arXiv:1105.1078v1 [hep-th] 5 May 2011

Influence of gauge artifact on adiabatic and entropy perturbations during inflation

Yuko Urakawa^{1,2∗} 1 Departament de Física Fonamental i Institut de Ciències del Cosmos, Universitat de Barcelona, Martí i Franquès 1, 08028 Barcelona, Spain 2 Department of Physics, Ochanomizu University 2-1-1 Otsuka, Bunkyo, Tokyo, 112-8610 Japan (Dated: May 6, 2011)

In recent publications we proposed one way to calculate gauge-invariant variables in the local observable universe, which is limited to a portion of the whole universe. To provide a theoretical prediction of the observable fluctuations, we need to preserve the gauge-invariance in the local universe, which is referred to the genuine gauge-invariance. The importance of the genuine gauge-invariance is highlighted in the study of primordial fluctuations in the infrared (IR) limit. The stability against IR loop corrections to primordial fluctuations is guaranteed in requesting the genuine gauge-invariance. The genuine gauge-invariance also gives the impact on the detectable fluctuations. We showed that at observable scales the bi-spectrum calculated in the conventional perturbation theory vanishes in the squeezed limit, if we request the genuine gauge invariance. This indicates that the conventional bi-spectrum is, in this limit, dominated by a gauge artifact, which cannot be observed. These studies have been elaborated in single-field models of inflation. In this paper we generalize our argument to multi-field models of inflation, where, in addition to the adiabatic field, the entropy field can participate in the generation of primordial fluctuations. We will find that the entropy field can generate the observable fluctuations, which cannot be eliminated by gauge transformations in the local universe.

I. INTRODUCTION

The conventional cosmological perturbation theory has been established based on the assumption that we know the whole spatial region of the universe with infinite volume. We should, however, recognize that this does not meet the case in the actual observations, because the observable portion of the universe is limited. In our recent works [1–4], we pointed out the necessity of distinguishing the gauge invariance in the whole universe with infinite volume from that in the local universe with finite volume. To preserve the gauge-invariance in the whole universe, it is sufficient to request the invariance under normalizable gauge transformations, which become regular at spatial infinity. However, in the local universe, where we need not to concern about the regularity at infinity, it is necessary to request the invariance under both normalizable and non-normalizable gauge transformations. We discriminate gauge-invariant quantities that can be constructed in our local observable universe, referring them as genuine gaugeinvariant variables. The observable fluctuations should be such a genuinely gauge-invariant variable.

The genuine gauge-invariant perturbation has a large impact namely on the infrared (IR) modes of fluctuations. The adiabatic vacuum, which yields the scale-invariant spectrum, is supposed to be a natural vacuum in the inflationary universe. However, once the interaction turns on, it is not manifest whether the adiabatic vacuum is stable or unstable against the IR contributions in loop corrections [5–26]. (See also the recent discussions in Refs. [27–35].) In our previous works [2, 3], we showed that in single field models of inflation the IR divergence is an unphysical artifact, which disappears in requesting the genuine gauge-invariance. Namely, initial quantum states are requested to satisfy several conditions in

∗Electronic address: yurakawa˙at˙ffn.ub.es

order to respect the gauge invariance in the local universe. The importance of the genuine gauge invariance is recognized as well in the study of the primordial non-Gaussianity [4]. It is remarkable that the tree-level bi-spectrum calculated in the conventional perturbation theory vanishes in the squeezed limit under the request of the genuine gauge invariance. This fact emphasizes the importance to investigate primordial fluctuations based on the genuine gauge invariant perturbation theory to yield the theoretical prediction of fluctuations, which are to be compared with the observations.

These arguments have been so far elaborated in single field models of inflation. In this paper, we extend our argument to multi-field models. In multi-field models, the issue of gaugeinvariance becomes more delicate because of the presence of the entropy field. If the entropy field is massless, the loop correction of the entropy field diverges due to IR contributions. In contrast to the IR divergence from the adiabatic field, the IR divergence from the entropy field is conceived to be irrelevant to the presence of the gauge degrees of freedom [36]. The purpose of this paper is not to provide ways of regularization, but to provide one way to realize the genuine gauge invariance in the presence of the entropy field. For this purpose, we need to discriminate between the IR divergences from the gauge effects and those from different origins. In this paper we consider two-field models of inflation, but an extension to inflation models with more than two fields would proceed straightforwardly.

Our paper is organized as follows. In Sec. II, we give the setup of our problem and after that we briefly review a method to calculate genuinely gauge-invariant quantities. In Sec. III, we study the implications of the genuine gauge-invariant perturbation in the two-field models with the pure adiabatic and entropy fields. After we derive the gauge-invariance condition, we calculate the genuinely gauge-invariant bi-spectrum in this model. In Sec. IV, we extend our arguments to more general two-field models where the adiabatic and entropy fields are coupled even at liner order. Our results are summarized in Sec. V.

II. GENUINE GAUGE-INVARIANT PERTURBATIONS

In this section, we first give the set up of the problem. After that, we provide one way to perform the genuinely gaugeinvariant perturbation theory, following the discussion in our previous works [2, 3].

A. Basic equations

We consider the two-field inflation models with the standard kinetic term whose action take the form S = M^2_{pl} 2 ∫ √ −g [ R − g^{μν} ϕ^I_{,μ}ϕ_{I,ν} − 2V (ϕ_1, ϕ_2) ] d^4x,

(2.1)

where M_{pl} is the Planck mass and multiplying 1/M_{pl} the scalar fields were rescaled to be dimensionless. The fieldspace metric for ϕ^I is assumed to be given by the 2 × 2 unit matrix.

The ADM formalism has been utilized to derive the action of the dynamical variables particularly in the non-linear perturbation theory [43]. Using the decomposed metric

ds^2 = −N^2dt^2 + h_{ij} (dx^i + N^idt)(dx^j + N^j dt) , (2.2)

the action is rewritten as S = M^2_{pl} 2 ∫ √ h [ N^sR − 2NV (ϕ_1, ϕ_2) + 1 N (E_{ij} E^{ij} − E^2) + 1 N (∂_tϕ_I − N^i∂_iϕ_I )(∂_tϕ^I − N^i∂_iϕ^I ) −Nh^{ij} ∂_iϕ_I ∂_j ϕ^I ] d^4x , (2.3)

where^sR is the three-dimensional scalar curvature and E_{ij} and E are defined by E_{ij} = 1 2 (∂_th_{ij} − D_iN_j − D_j N_i) , E = h^{ij} E_{ij} (2.4)

with the three-dimensional covariant derivative D_i defined by h_{ij} . The spatial indices are raised and lowered by h_{ij} .

Perturbing the scalar fields as ϕ_I + δϕ_I , the background equations of motion are derived as

ϕ̈_I + 3ρ̇ϕ̇_I + ∂V/∂ϕ^I = 0 , (2.5)

6ρ̇^2 = ϕ̇_Iϕ̇^I + 2V (ϕ_1, ϕ_2) , (2.6)

where the dot denotes the derivative by the cosmological time. Using these equations, we also have ρ̈ = − 1 2 ϕ̇_I ϕ̇^I . (2.7)

B. Gauge-invariant operator

In this subsection, we describe our way to calculate the gauge-invariant quantity in the local universe. One simple way to preserve the gauge-invariance is to calculate fluctuations in a completely fixed slicing and threading. The timeslicing can be easily fixed by adapting the gauge condition at each spacetime point. By contrast, the complete fixing of the spatial coordinates is not easy-going in the local universe because of the degrees of freedoms in non-normalizable transformations [2, 3]. We therefore seek for the way to construct the manifestly invariant quantity under the change in the spatial coordinates instead of fixing them completely.

We fix the time slicing by eliminating the fluctuation in the adiabatic field. We also adapt the gauge conditions on the spatial coordinates, taking the spatial metric as

h_{ij} = e^{2(ρ+ζ)} [ e^{δγ} ] ij , (2.8)

where δγ_{ij} satisfies the transverse and traceless conditions δγ^i_i = ∂_iδγ^i_j = 0. While these conditions do not fix the spatial coordinates completely in the local universe, we need not worry about the presence of the residual gauge modes only if we consider the genuinely gauge-invariant quantity. We can construct the genuinely gauge-invariant operator by making use of the scalar quantities under the three dimensional spatial diffeomorphism. Following our previous works [2, 3], we pick up the scalar curvature^sR as such a scalar quantity. Although scalar quantities also vary under the gauge transformation because of the change of their arguments x^i, this gauge ambiguity does not appear in the n-point functions of these quantities with the arguments specified in a gauge-invariant manner. In order to specify the arguments of the n-point functions in a gauge invariant manner, we measure distances from an arbitrary reference point to the n vertices by means of the geodesic distance obtained by solving the spatial threedimensional geodesic equation:

d^2x^i dλ^2

+^sΓ^i_{jk} dx^j dλ dx^k dλ = 0 , (2.9)

where^sΓ^i_{jk} is the Christoffel symbol with respect to the three dimensional spatial metric on a constant time hypersurface and λ is the affine parameter. We consider the threedimensional geodesics whose affine parameter ranges from λ = 0 to 1 with the initial “velocity” given by dx^i(X, λ) dλ | | | λ=0 = e^{−ζ(λ=0)} [ e^{−δγ(λ=0)/2} ]_i j X^j . (2.10)

We identify a point in the geodesic normal coordinates X^i with the end point of the geodesic, x^i(X, λ = 1). The geodesic normal coordinates X^i are then approximately related to the global coordinates x^i as

x^i(X) =: X^i + δx^i(X)^{IR}≈ e^{−ζ} [ e^{−δγ/2} ]_i j X^j . (2.11)

Using the geodesic normal coordinates X^i, a genuine gauge invariant variable can be constructed as gR(X) :=^sR(t, x^i(X)) = ∞∑ n=0 δx^{i1} · · · δx^{in} n! ∂_X i_1 · · · ∂_X in^sR(t, X^i), (2.12)

where we introduced the abbreviated notation X := {t, X}. Similar quantities to our genuine gauge-invariant variable were studied in Refs. [37–41], while the authors of Refs. [37– 40] seem to have the different opinions regarding what are actual observables.

In the following section, we use the equality^{IR}≈ which is valid only when we neglect the terms which do not yield IR divergences in the one-loop corrections to ⟨^gR^gR⟩. When we write down the Heisenberg operator in terms of the interaction picture fields for the adiabatic and entropy fields, this is equivalent to keep only terms without spatial/time derivatives and the terms which include only one interaction picture field with differentiation. In deriving the gauge-invariance condition from the IR regularity of ⟨^gR^gR⟩, we neglect the possibly divergent loop corrections whose loop integrals are composed only of the entropy field, because they are irrelevant to the gauge effects.

Abbreviating the unimportant prefactor, we simply denote the scalar curvature^sR as sR^{IR}≈ e^{−2ζ} [ e^{−δγ} ]_{ij} ∂_{ij} ζ . (2.13)

The gravitational wave field δγ_{ij} can also generate the IR divergent with ⟨δγ_{ij} δγ_{kl}⟩. We can easily confirm that these contributions are generated only through the interaction between the adiabatic field and the gravitational wave field and that the entropy field does not produce another potentially divergent terms with the gravitational wave field. Therefore, repeating the same argument as in Ref. [3], we can show that the contributions from the gravitational waves are canceled in the gauge-invariant operator^gR. To avoid the repetition of calculations, we here do not explicitly write down the contributions from the gravitational wave field.

Expanding ζ as ζ = ζ_1 + ζ_2 + ζ_3 + ... where we denote ζ_1 as ψ := ζ_1, the spatial curvature^sR is expressed as

sR_1 = ∂^2ψ ,^sR_2^{IR}≈ ∂^2ζ_2 − 2ψ∂^2ψ ,

sR_3^{IR}≈ ∂^2ζ_3 − 2(ζ_2∂^2ψ + ψ∂^2ζ_2) + 2ψ^2∂^2ψ . (2.14)

Using Eq. (2.11), the difference between the geodesic normal coordinates and the global ones is expanded as

δx^i = δx^i_1 + δx^i_2 + · · · (2.15)

where

δx^i_1^{IR}≈ −ψX^i, δx^i_2^{IR}≈ −ζ_2X^i + 1 2 ψ^2X^i . (2.16)

Using Eqs. (2.12), (2.14), and (2.16), we have

gR_1 = ∂^2ψ , (2.17)

gR_2^{IR}≈ ∂^2ζ_2 − ψ∂^2X^i∂_X i ψ , (2.18)

gR_3^{IR}≈ ∂^2ζ_3 − ζ_2∂^2(X^i∂_X i )ψ

− ψ∂^2(X^i∂_X i )ζ_2 + 1 2 ψ^2∂^2(X^i∂_X i )^2ψ .

(2.19)

III. MODELS WITH THE PURE ENTROPY FIELD

In this and next sections, we investigate the predictions of the genuine gauge-invariant perturbation theory in two kinds of models. In general, the adiabatic and entropy fields can be coupled even in liner order. We first study a particular model where these two-fields are decoupled at linear order, deferring the study of coupled models to the next section.

A. Non-linear perturbations

In this section, we consider the two-field model where the field ϕ_1 dominates the background. We use the horizon flow functions [42] defined in a similar way to those in single field models as

ε_1 := ϕ̇2_1

2ρ̇^2

, ε_{m+1} := 1 ε_m dε_m dρ for m ≥ 1. (3.1)

Assuming that the horizon flow functions ε_m are all small of O(ε), we neglect the terms of O(ε^3). We also employ the assumption:

ϕ̇_2 ϕ̇_1 = O(ε^2) . (3.2)

This condition requests that, within our approximation, the field ϕ_1 and ϕ_2 become the pure adiabatic and entropy fields, respectively. We define the gauge-invariant quantity^gR on the slicing:

δϕ_1 = 0 . (3.3)

To evaluate the genuine gauge-invariant variable, it is convenient to perform the calculation in the flat gauge:

h̃_{ij} = e^{2ρ} [e^{δγ̃} ]_{ij} , δγ̃^i_i = 0 = ∂_iδγ̃^i_j , (3.4)

where all the interaction vertexes are explicitly suppressed by the slow-roll parameters [1, 43]. We associate a tilde with the metric perturbations in the flat gauge to discriminate those in the comoving gauge. Here again we can neglect the contributions from the gravitational wave field, which do not appear in gR. The action in this gauge is given by

S^{IR}≈

M^2_{pl} 2 ∫ dt d^3xe^{3ρ} [ Ñ^{−1}(−6ρ̇^2 + 4ρ̇∂_iÑ^i)

+ Ñ^{−1} ( ϕ̇_I + φ̇_I − Ñ^i∂_iφ_I )( ϕ̇^I + φ̇^I − Ñ^i∂_iφ^I )

− 2Ñ ∞∑ m=0 V_{I1 ···Im} m! φ^{I1}· · · φ^{Im} − Ñh̃^{ij} ∂_iφ_I ∂_j φ^I ] , (3.5)

where we introduced V_{I1 ···In} := ∂^nV/∂ϕ^{I1} · · · ∂ϕ^{In} and δϕ_I := φ_I . Using the background equations and Eq. (3.2), the derivatives of the potential are quantified as

V_2 ρ̇ϕ̇_1

= O(ε^2) ,

V_{12} ρ̇^2

= O(ε^3) ,

V_{112} ρ̇ϕ̇_1

= O(ε^2) . (3.6)

The curvature perturbation in the gauge δϕ_1 = 0 is related to the fluctuation of the dimensionless scalar field (divided by M_{pl}) in the flat gauge φ_1 as

ζ^{IR}≈ ζ_n + ζ_n∂_ρζ_n + ε_2 4 ζ^2_n + ζ^2_n∂^2_ρ ζ_n 2 + 3ε_2ζ^2_n∂_ρζ_n 4 + 1 12 ε_2(ε_2 + 2ε_3)ζ^3_n, (3.7)

where we have introduced

ζ_n := −(ρ̇/ϕ̇_1) φ_1 . (3.8)

Variation of the total action with respect to φ_I yields e^{−3ρ}∂_t [ e^{3ρ} Ñ ( ϕ̇_I + φ̇_I )] + Ñ ∑ m=0 V_{II1 ···Im} m! φ^{I1} · · · φ^{Im} − ( ϕ̇_I + φ̇_I ) 1 Ñ ∂^i Ñ^i − Ñe^{−2ρ}∂^2φ_I^{IR}≈ 0 . (3.9)

Variations with respect to the lapse function and the shift vector yield the Hamiltonian constraint:

(Ñ^2 − 1)V + Ñ^2 ∑ m=1 V_{I1 ···Im} m! φ^{I1} · · · φ^{Im} + 2ρ̇∂_iÑ^i + ϕ̇_I φ̇^I + 1 2 φ̇_Iφ̇^{I IR}≈ 0 , (3.10)

and the momentum constraints:

2ρ̇∂_iÑ − Ñ(ϕ̇_I ∂_iφ^I + ∂_iφ_Iφ̇^I )^{IR}≈ 0 . (3.11)

From the form of the constraint equations, we can confirm the presence of the degrees of freedom which appear from boundary conditions in solving these equations. Repeating a similar analysis to the one in Ref. [2], these degrees of freedom are found to be the residual gauge degrees of freedom, which can change the average value of ζ_n at each order in perturbation.

These constraint equations are solved to give

δÑ^{IR}≈ −ε_1ζ_n + ε^2_1 2 ζ^2_n + 1 4 ε_1ε_2 ( ζ^2_n + σ^2_n ) , (3.12) 1 ρ̇ ∂_iÑ^{i IR}≈ ε_1∂_ρζ_n − 1 2 ε_1ε_2 (ζ_n∂_ρζ_n + σ_n∂_ρσ_n)

− 1 4 ε_1 (2η_{22} + 3ε_2) σ^2_n , (3.13)

where, in a similar manner to ζ_n, we introduced

σ_n := −(ρ̇/ϕ̇_1) φ_2 . (3.14)

Substituting Eqs. (3.12) and (3.13) into Eq. (3.9), the evolution equation of ζ_n is recast into a rather compact expression,

Lζ_n^{IR}≈ [ −2ε_1ζ_n + 1 2 ε_1(4ε_1 + ε_2)ζ^2_n ] e^{−2ρ} ρ̇^2

∂^2ζ_n

−ε_1ε_2ζ_n∂_ρζ_n − 3 4 ε_2ε_3ζ^2_n , (3.15)

where the differential operator L is defined by

L := ∂^2_ρ + (3 − ε_1 + ε_2)∂_ρ − e^{−2ρ} ρ̇^2

∂^2. (3.16)

Note that the adiabatic field ζ_n is decoupled from the entropy field σ_n at linear order as the result of requiring Eq. (3.2). We also find that the interaction terms with ζ_nσ_n and ζ^2_nσ_n are suppressed at the order of O(ε^3). Since the entropy field s_n is not included in Eqs. (3.7) and (3.15), the curvature perturbation ζ and the gauge-invariant spatial curvature^gR are given in the same form as those in single field models. Therefore, in the decoupled model which satisfies Eq. (3.2), the entropy field s_n does not contribute to the IR divergence that originates from the gauge effect.

Reflecting these facts, the gauge-invariance conditions derived by requesting the regularity of loop corrections from the adiabatic field take the same form as those in the single field model. We briefly describe this result, deferring the detailed explanation to Ref. [3]. Here, we expand the interaction picture field ψ as ψ(X) = ∫ d^3k (2π)^{3/2}

[ ψ_k(X)a_k + h.c. ] (3.17)

with the creation and annihilation operators that satisfy [ a_k, a^†_k′ ] = δ^{(3)}(k − k^′) . (3.18)

If the positive frequency function satisfy [{ 1 + ε_1(1 + ε_1 + ε_2) } ∂_ρ − X^i∂_X i + ε_1 + 1 2 ε_2 + 2ξ_2 − 3 2 L^{−1}_k ε_2(2ε_1 + ε_2) ] ψ_k(X) = −D_kψ_k(X) , (3.19)

where D_k and L_k are defined as

D_k := k · ∂_k + 3/2 , (3.20)

L_k := ∂^2_ρ + (3 − ε_1 + ε_2)∂_ρ + e^{−2ρ} ρ̇^2 k^2 , (3.21)

the gauge invariant operator^gR_2 is compactly summed as

gR_2^{IR}≈ −(1 + λ_2)∂^2D_kψ . (3.22)

Here ξ_2 and λ_2 are time-dependent functions of O(ε^2) and they appeared as degrees of freedom in solving Eq. (3.15) at second order in perturbation. We can also find similar degrees of freedom at third order in perturbation and we label them by time dependent functions ξ_3 and λ_3 of O(ε^2). If we choose them correctly [3], the gauge invariant operator^gR_3 is compactly rewritten as

gR_3^{IR}≈ 1 2 ψ^2∂^2 [ (1 + 2λ_2)D^2_kψ − μD_kψ ] − δζ_{n,2}∂^2D_kψ , (3.23)

where we defined δζ_{n,2} and μ as

δζ_{n,2} := −L^{−1} 3 4 ε_2(2ε_1 + ε_2)ψ^2 , (3.24)

μ := ε_1 + 1 2 ε_2 − 3ε^2_1 + 1 2 ε_1ε_2 + 2(ξ_2 + λ_3) . (3.25)

We finally find that the possibly divergent terms become the total derivative form as

⟨{^gR(X_1),^gR(X_2)}⟩ IR ≈ 1 2 ⟨ψ^2⟩ ∫ d(log k)

2π^2 { (1 + 2λ_2)∂^2_{log k} − μ∂_{log k} } × { k^7ψ_k(X_1)ψ^∗_k(X_2) + (c.c.) } − ⟨δζ_{n,2}⟩ ∫ d(log k) 2π^2

∂_{log k} { k^7ψ_k(X_1)ψ^∗_k(X_2) + (c.c.) } , (3.26)

and hence they vanish. Here we symmetrized about X_1 and X_2. We thus obtain the gauge-invariance conditions by requesting the regularity of the loop corrections from the adiabatic field. Note that the preservation of the genuine gaugeinvariance guarantees the regularity of the loop corrections from the adiabatic field, but it does not guarantee the regularity of those from the entropy field. Therefore, the divergent terms with ⟨χ^2⟩ are still left in the left-hand side of Eq. (3.26) and they should be regularized by another method.

B. Primordial non-Gaussianity

In this subsection, we study the primordial non- Gaussianity, requesting the gauge-invariance conditions. In calculating the tree-level bi-spectrum, we can construct the genuine gauge-invariant variable using the curvature perturbation ζ in stead of the spatial scalar curvature^sR. If we consider the modes with k ≫ 1/L_{obs}, where L_{obs} denotes the observable scale in the comoving coordinates, the curvature perturbation ζ evaluated in the geodesic normal coordinates: gζ(X) := ζ(ρ, x^i(X)) = ζ(X) + δx^i∂_iζ|_xi_{=X} i + · · · (3.27)

becomes the gauge-invariant operator at least up to the second order in perturbation [4].

Introducing the Fourier modes of^gζ as

gζ_k(ρ) = ∫ d^3X (2π)^{3/2} e^{−ik·X g}ζ(ρ, X) , (3.28) we calculate the bispectrum of^gζs at the leading order in perturbation. Expanding^gζ as^gζ_k = ψ_k +^gζ_{k,2} + · · · , we have

⟨^gζ_{k1}^gζ_{k2}^gζ_{k3} ⟩ = ⟨ψ_{k1} ψ_{k2}^gζ_{k3,2}⟩ + ⟨ψ_{k1}^gζ_{k2,2}ψ_{k3} ⟩ + ⟨^gζ_{k1,2}ψ_{k2} ψ_{k3} ⟩ . (3.29)

In the calculation of the bi-spectrum for^gζ, we again use the

equality^{IR}≈, which picks up gauge-dependent terms. Using Eqs. (2.16) and (3.7), the gauge-invariant curvature perturbation is expressed as

gζ^{IR}≈ ζ_n + ζ_n ( ∂_ρ − X^i∂_X i ) ζ_n + 1 4 ε_2ζ^2_n , (3.30)

where ζ_n is given by solving Eq. (3.15). Since there is no contribution from the entropy field in Eqs. (3.15) and (3.30), gζ takes the same form as in single field models. As expected from these facts, repeating the same calculation as in Ref. [4], we again find that, in the squeezed limit with k_1 ≪ k_2 ≈ k_3, the bi-spectrum vanishes as

⟨^gζ_{k1}^gζ_{k2}^gζ_{k3} ⟩^{IR}≈ 0 . (3.31)

The bi-spectrum calculated in the conventional perturbation theory is thus found to be dominated by the gauge artifact also in the two-field model which satisfies the condition (3.2). Note that, while the three-point function generated from the cubic interaction ζ^3_n is suppressed from the request of the genuine gauge invariance, the one generated from the interaction ζ_nσ^2_n is not suppressed at all. Therefore, our gauge-invariance conditions do not affect on the three-point function with one adiabatic field and two entropy fields.

One important remark is in order regarding the applicability of our argument. Precisely speaking, the expression of δx^i given in Eq. (2.16) can be reliably used only for the modes with k ≪ 1/L_{obs}. We can however show that the additional terms which appear for k ≳ 1/L_{obs} vanish separately in the squeezed limit [3]. Thus, we can confirm that the result given in Eq. (3.31) is robust as long as we consider the super-horizon modes with k ≪ e^ρH. During inflation, the scales relevant to the current observations go far outside of the inflationary horizon, which leads to the natural assumption that the observable scale is much larger than the horizon scale 1/H. Therefore, our result is applicable to the observable modes which satisfy 1/L_{obs} ≪ k ≪ e^ρH.

IV. GENERAL EXTENSION

In the previous section, we studied the two-field model of inflation where the adiabatic and entropy fields decouple at linear order in perturbation. In this model, the allowable form of interactions is significantly restricted so that the entropy field does not contribute to the potentially divergent terms with the loop integrals of the adiabatic field. The predictions of the genuinely gauge-invariant perturbation are then found to be essentially same as those in single field models of inflation. In this section, we consider more general two-field models where the adiabatic and entropy fields are coupled even at linear order. The study of these models would help us to understand how the entropy field contributes to the IR corrections affected by non-local gauge degrees of freedom.

A. Adiabatic and entropy perturbations

In multi-field models, we need to care about the fact that the IR modes include the physical degrees of freedom as well as the gauge degrees of freedom. The discrimination of the later from the former proceeds easily in the model with the pure adiabatic and entropy fields, but in general it becomes more complicated. To ease this procedure, we decompose the fluctuations in the two fields into the horizontal and orthogonal directions to the background trajectory as ( δσ δs ) = 1 σ̇ (˙ ϕ_1 ϕ̇_2 −ϕ̇_2 ϕ̇_1 ) ( δϕ_1 δϕ_2 ) =: Θ ( δϕ_1 δϕ_2 ) , (4.1)

where we introduced the 2 × 2 time-dependent rotational matrix Θ with σ̇ defined as

σ̇ := √ (ϕ̇_1)^2 + (ϕ̇_2)^2 .

In this expression, the action (2.3) is rewritten as S = M^2_{pl} 2 ∫ d^4x √ h [ N^sR − 2NV (σ, s) + 1 N ( E^{ij} E_{ij} − E^2 )

+ 1 N ( σ̇ + δσ̇ − N^i∂_iδσ − θ̇δs )_2 − Nh^{ij} ∂_iδσ∂_j δσ + 1 N ( δṡ − N^i∂_iδs + θ̇δσ )_2 − Nh^{ij} ∂_iδs∂_j δs ] , (4.2)

where θ is the local rotation angle given by

θ := tan^{−1}(ϕ̇_2/ϕ̇_1) .

The model studied in the previous section corresponds to the particular case with θ = const, where the background trajectory is not curved.

Using δσ and δs, we rewrote the perturbation expansion of the potential as

V (σ, s) = V_0 + V_σ δσ + V_sδs + 1 2 V_{σσ} δσ^2 + V_{σs}δσδs + 1 2 V_{ss}δs^2 + · · · , where V_0 denotes the background value of the potential. Note that V_{α1 ..αi..αn} where α_i = σ, s are not the derivatives of the potential in terms of σ and s, but they are given by the linear combinations of V_{I1 ..In} . In general multi-field models, the cross correlation between the adiabatic and entropy fields

⟨δσδs⟩ does not necessarily vanish. The loop corrections with ⟨δσδs⟩ can also yield divergent terms which are possibly affected by gauge degrees of freedom. Keeping this in mind, here we keep the terms that can contribute to the loop correc-

tions with ⟨δσ^2⟩ and also ⟨δσδs⟩, using the same equality^{IR}≈ as before.

We define the gauge-invariant scalar curvature^gR on the time-slice fixed by the gauge condition: δσ = 0. We again change the gauge into the flat gauge given by Eq. (3.4). Noticing the fact that the background evolution is characterized only by the adiabatic field, we introduce the horizon-flow functions as

ε_1 := σ̇^2 2ρ̇^2

, ε_{m+1} := 1 ε_m dε_m dρ for m ≥ 1. (4.3)

In the following, we assume that the change in the background trajectory takes place satisfying dθ/dρ = O(ε). In the flat slicing, the action is given by

S^{IR}≈

M^2_{pl} 2 ∫ dt d^3xe^{3ρ} [ Ñ^{−1}(σ̇ + δσ̇ − Ñ^i∂_iδσ − θ̇δs)^2 + Ñ^{−1}(δṡ − Ñ^i∂_iδs + θ̇δσ)^2 − Ñh̃^{ij} ∂_iδσ∂_j δσ − Ñh̃^{ij} ∂_iδs∂_j δs + Ñ^{−1}(−6ρ̇^2 + 4ρ̇∂_iÑ^i) − 2ÑV ] . (4.4)

The constraint equations are derived as

2ρ̇∂_iÑ^i + σ̇δσ̇ + 1 2 (δσ̇ − θ̇δs)^2 + 1 2 (δṡ + θ̇δσ)^2 + (Ñ^2 − 1)V_0 + V_σ δσ + 1 2 (V_{σσ} δσ^2 + 2V_{σs}δσδs + V_{ss}δs^2) + · · ·^{IR}≈ 0 , (4.5) and 2ρ̇∂_iÑ − Ñ(σ̇ − θ̇δs)∂_iδσ − Ñθ̇δσ∂_iδs − 2Ñ(δσ̇∂_iδσ + δṡ∂_iδs)^{IR}≈ 0 , (4.6)

where, in Eq. (4.5), we abbreviated the higher-order terms in V (σ, s). In deriving the Hamiltonian constraint (4.5), we used V_s = −σ̇θ̇, which is given by varying the action with respect to δs. Consulting Eqs. (4.5) and (4.6), we again find that the degrees of freedom in the boundary conditions are intrinsically attributed to the gauge degrees of freedom in the adiabatic fluctuation, while the entropy fluctuations are, at nonlinear order, also affected by the gauge modes through the change in the lower-order adiabatic fluctuation. Varying the action with respect to δσ, we have the equation of motion for δσ as e^{−3ρ}∂_t { e^{3ρ} Ñ (σ̇ + δσ̇ − θ̇δs) } − (σ̇ + δσ̇ − θ̇δs) ∂_iÑ^i Ñ + Ñ ( V_σ + V_{σσ} δσ + V_{σs}δs + 1 2 V_{σσσ} δσ^2 + 1 2 V_{σss}δs^2 + V_{σσs}δσδs )

− θ̇ Ñ (δṡ + θ̇δσ) − Ñe^{−2ρ}∂^2δσ^{IR}≈ 0 . (4.7)

From a similar calculation to that in Appendix A of Ref. [3], the relation between the fluctuations in these two gauges is obtained as

ζ^{IR}≈ ζ_n + ζ_n∂_ρζ_n + 1 4 ε_2ζ^2_n − dθ dρ ζ_ns_n + 1 2 ζ^2_n∂^2_ρ ζ_n + 3 4 ε_2ζ^2_n∂_ρζ_n + 1 12 ε_2(ε_2 + 2ε_3)ζ^3_n − 1 3 ( dθ dρ )_2

ζ^3_n − 2 dθ dρ ζ_ns_n∂_ρζ_n − dθ dρ ζ^2_n∂_ρs_n − 1 2 ( d^2θ dρ^2 + 3 2 ε_2 dθ dρ ) ζ^2_ns_n + ( dθ dρ )_2

ζ_ns^2_n . (4.8)

where we defined ζ_n and s_n as ζ_n := −(ρ̇/σ̇)δσ , s_n := −(ρ̇/σ̇)δs . (4.9) While in the case with dθ/dρ ≠ 0 the evolution equations for ζ_n and s_n are coupled even at linear order, we can easily solve Eq. (4.7) up to O(ε). In the following calculations, we keep the terms up to this order, neglecting the terms of O(ε^2). Then, the constraint equations (4.5) and (4.6) are solved to give

δÑ^{IR}≈ −ε_1ζ_n , 1 ρ̇ ∂_iÑ^{i IR}≈ ε_1∂_ρζ_n . (4.10)

Using Eqs. (4.10), the equation of motion for ζ_n is recast into

Lζ_n^{IR}≈ 2 dθ dρ ∂_ρs_n + ( 3 dθ dρ − V_{σs} ρ̇^2 ) s_n − 2ε_1ζ_n e^{−2ρ} ρ̇^2

∂^2ζ_n ,

(4.11)

where the derivative operator L apparently takes the same form as the single field case:

L := ∂^2_ρ + (3 − ε_1 + ε_2)∂_ρ − e^{−2ρ} ρ̇^2

∂^2 . (4.12)

Allowing the introduction of homogeneous solutions, Eq. (4.11) is solved to give

ζ_n^{IR}≈ ψ + ε_1ψ∂_ρψ + ξ_2ψ^2 + ξ_3ψ^3 + μ_2ψχ + μ_3ψ^2χ + μ̂_2χ^2 + μ̂_3ψχ^2 , (4.13)

where ξ_i, μ_i, and μ̂_i for i = 2, 3 are time-dependent functions of O(ε). Noticing the fact that the interaction picture field of s_n satisfies

Lχ = O(ε) , (4.14)

we also included the homogeneous solutions with χ.

B. IR regularity and gauge-invariance conditions

Now, we are ready to derive the gauge-invariance condition for the coupled case. Using Eqs. (2.18) and (2.19) together with Eqs. (4.8) and (4.13), we have

gR_2^{IR}≈ ψ∂^2 [{ (1 + ε_1)∂_ρ − X^i∂_X i

+ 2ξ_2 + ε_2/2 } ψ + ( μ_2 − dθ dρ ) χ ]

+ χ∂^2 [( μ_2 − dθ dρ ) ψ + 2μ̂_2χ ] , (4.15) and gR_3^{IR}≈ ψ^2∂^2 [ 1 2 (∂_ρ − X^i∂_X i )^2ψ + 3ξ_3ψ + μ_3χ

+ (∂_ρ − X^i∂_X i ) { (ε_1∂_ρ + 3ξ_2 + 3ε_2/4)ψ + ( μ_2 − dθ dρ ) χ }]

+ 2ψχ∂^2 [( μ_2 − dθ dρ ) (∂_ρ − X^i∂_X i )ψ

+ μ̂_2(∂_ρ − X^i∂_X i )χ + μ_3ψ + μ̂_3χ ] . (4.16)

We keep the terms in the last line of Eq. (4.15) and the terms in the last two lines of Eq. (4.16), which can yield the possibly divergent terms with ⟨ψχ⟩.

Making use of the Gram-Schmidt normalization, we can prepare a set of orthonormalized mode functions, which satisfy the Klein-Gordon normalization. We expand ψ^I := −(ρ̇/σ̇)δϕ^I by the orthonormalized mode function ψ^I_{α,k} where α = 1, 2 are the indices for the orthonormal bases. Using these orthonormal bases, ψ and χ are expanded as

ψ(X) = 2∑ α=1 Θ_{1I} ψ^I_α(X) , (4.17)

χ(X) = 2∑ α=1 Θ_{2I} ψ^I_α(X) , (4.18)

where the time-dependent matrix Θ is already given in Eq. (4.1) and we defined ψ^I_α(X) as

ψ^I_α(X) = ∫ d^3k (2π)^{3/2} [ ψ^I_{α,k}(X)a_{α, k} + h.c. ] (4.19)

with the creation and annihilation operators that satisfy [ a_{α, k}, a^†_{β, k}′ ] = δ_{αβ}δ^{(3)}(k − k^′) . (4.20)

Substituting Eqs. (4.17) and (4.18) into Eqs. (4.15) and (4.16), the gauge-invariant spatial curvature is expanded as

gR_2^{IR}≈ ψ 2∑ α=1 ∂^2 [ Θ_{1I} { (1 + ε_1)∂_ρ − X^i∂_X i

+ 2ξ_2 + ε_2/2 } + Θ_{2I} μ_2 ] ψ^I_α + χ 2∑ α=1 ∂^2 [( μ_2 − dθ dρ ) Θ_{1I} + 2μ̂_2Θ_{2I} ] ψ^I_α, (4.21) and gR_3^{IR}≈ ψ^2 2∑ α=1 ∂^2 [ 1 2 Θ_{1I} (∂_ρ − X^i∂_X i )^2

+ Θ_{1I} (3ξ_2 + 3ε_2/4 + ε_1∂_ρ)(∂_ρ − X^i∂_X i )

+ Θ_{2I} μ_2(∂_ρ − X^i∂_X i ) + 3ξ_3Θ_{1I} + μ_3Θ_{2I} ] ψ^I_α + 2ψχ 2∑ α=1 ∂^2 [ Θ_{1I} ( μ_2 − dθ dρ ) (∂_ρ − X^i∂_X i )

+ Θ_{2I}μ̂_2(∂_ρ − X^i∂_X i ) + μ_3Θ_{1I} + μ̂_3Θ_{2I} ] ψ^I_α , (4.22)

where we noted dΘ_{1I}/dρ = (dθ/dρ)Θ_{2I} .

In requesting the absence of the possibly divergent terms with ⟨ψ^2⟩ and ⟨ψχ⟩, we obtain the gauge-invariance conditions as [ Θ_{1I} { (1 + ε_1)∂_ρ − X^i∂_X i + 2ξ_2 + ε_2/2 } + Θ_{2I} μ_2 ] ψ^I_{α, k} = −Θ_{1I} D_kψ^I_{α, k} , (4.23)

ξ_3 = μ_3 = 0 , (4.24) and μ_2 = dθ dρ , μ̂_2 = μ̂_3 = 0 . (4.25)

If all these conditions are satisfied, the gauge-invariant spatial curvature^gR is simply given by

gR_2^{IR}≈ −ψ 2∑ α=1 ∂^2D_kΘ_{1I} ψ^I_α, (4.26)

gR_3^{IR}≈ 1 2 ψ^2 2∑ α=1 ∂^2 [ D^2_kΘ_{1I} − ( 2ξ_2 + ε_2 2 ) D_kΘ_{1I} ] ψ^I_α . (4.27)

Then, the potentially divergent terms in^gR are found to become the total derivative as

⟨{^gR(X_1),^gR(X_2)}⟩ IR ≈ 1 2 ⟨ψ^2⟩Θ_{1I} Θ_{1J} ∫ d(log k) 2π^2 { ∂^2_{log k} − ( 2ξ_2 + ε_2 2 ) ∂_{log k} }

× 2∑ α=1 { k^7ψ^I_{α,k}(X_1)ψ^I_{α,k}^∗(X_2) + (c.c.) } , (4.28) and they vanish. We now understand that, after the choice of the appropriate initial condition, the two-point function of the gauge-invariant operator^gR is shown to be regular, leaving a possibly IR divergent contribution with ⟨χ^2⟩, which is irrelevant to the gauge effect.

We requested Eq. (4.25) to eliminate the possibly divergent terms with ⟨ψχ⟩. However, at first glance it may be unclear whether the realization of the gauge invariance truly requests the absence of the terms with ⟨ψχ⟩ or not, because the crosscorrelation ⟨ψχ⟩ is also influenced by the entropy field. To make this point clear, we note that ⟨ψχ⟩ no longer diverges if at least one of ψ and χ is suppressed in the IR limit. If we remove the residual gauge degrees of freedom, say by adapting the local gauge condition [1], the adiabatic field is suppressed in the IR limit so that the regularity of ⟨ψχ⟩ is sufficiently guaranteed. This indicates that the cross-correlation ⟨ψχ⟩ does not diverge in the genuine gauge-invariant quantities. Therefore, we can request the absence of the IR divergence from ⟨ψχ⟩ as the necessary condition for the genuine gauge invariance.

Several remarks are in order regarding the gauge-invariance conditions (4.23) - (4.25). In harmony with the result in single field models, the gauge invariance condition (4.23) almost uniquely determine the mode function for ψ to that for the Bunch-Davies vacuum at the leading order in the slow-roll approximation. This can be confirmed by following a similar argument to the one in Refs. [2, 3]. The gauge-invariance conditions thus derived should be consistent with the equation of motion for the adiabatic field. Using the Fourier expanded basis: ψ^I_{α,k}(X) = ρ̇^2 ϕ̇ 1 k^{3/2} f^I_{α,k}(ρ) e^{ik·X} , (4.29) the gauge-invariance condition (4.23) can be recast into { (1 + ε_1)∂_ρ + k · ∂_k + (2ξ_2 − ε_1) } Θ_{1I} f^I_α = 0 , (4.30)

where we also used the first equation in Eq. (4.25). From Eq. (4.11), we have the mode equation at liner order as

L̄_kΘ_{1I} f^I_{α,k} − ( 3 dθ dρ − V_{σs} ρ̇^2 + 2 dθ dρ ∂_ρ ) Θ_{2I} f^I_{α,k} = 0,

(4.31)

where we introduced the derivative operator L̄_k as

L̄_k := ∂^2_ρ + 3(1 − ε_1)∂_ρ + e^{−2ρ} ρ̇^2 k^2 − 3(ε_1 + ε_2/2) .

(4.32)

Operating {(1+ε_1)∂_ρ +k·∂_k} on Eq. (4.31), which commutes with L̄_k up to O(ε), we obtain

L̄_k{(1 + ε_1)∂_ρ + k · ∂_k}Θ_{1I} f^I_{α,k} − ( 3 dθ dρ − V_{σs} ρ̇^2 + 2 dθ dρ ∂_ρ ) (∂_ρ + k · ∂_k)Θ_{2I} f^I_{α,k} = 0 .

(4.33)

The mode function for the entropy field χ is not restricted from the gauge-invariance condition. However, to reproduce the gauge-invariance condition (4.30) from Eq. (4.33), we need to employ, at the leading order in the slow-roll approximation, the condition

(∂_ρ − X^i∂_X i + D_k)Θ_{2I} ψ^I_{α,k} = O(ε) , (4.34)

which almost determines the mode function for χ to that for the Bunch-Davies vacuum. Then, the terms in the second line of Eq. (4.33) vanish, reproducing Eq. (4.30) after the multiplication of L̄^{−1}_k . The last two terms in (4.30) appear as the homogeneous solutions of L̄_k. Following the same argument as in Ref. [3], we can also show that the gauge-invariance conditions and Eq. (4.34) sufficiently ensure that the mode equations are satisfied for all wavenumbers, if they are satisfied only a particular wavenumber.

C. Primordial non-Gaussianity

Now we calculate the bi-spectrum for^gζ, which again becomes the genuinely gauge-invariant variable for 1/L_{obs} ≪ k ≪ e^ρH, in requesting the gauge-invariance conditions (4.23) - (4.25). Substituting Eqs. (2.16), (4.8), and (4.13) into Eq. (3.27), the gauge-invariant curvature perturbation^gζ is given by

gζ^{IR}≈ ψ + ψ(1 + ε_1)∂_ρψ − ψX^i∂_X i ψ + ( 1 4 ε_2 + ξ_2 ) ψ^2 ,

(4.35)

where we again abbreviated the several terms in δx^i which can give the non-vanishing contributions for k ≫ 1/L_{obs}. This is because we can show that these contributions independently vanish in the squeezed limit, repeating the same argument as in Ref. [4]. Note that after the use of Eq. (4.25), the terms with the entropy field disappear in the expression of^gζ. The expression of^gζ includes the time-dependent function ξ_2, which is restricted from the request of the consistent quantization [3]. Assuming ξ_2 is determined appropriately, we do not discuss the explicit form of ξ_2, because this is not important for our discussions.

Using Eqs. (4.17) and (4.18), the gauge-invariant curvature perturbation^gζ can be expanded as

gζ^{IR}≈ 2∑ α=1 Θ_{1I} ψ^I_α + 2∑ α,β=1 M_{αβ} , (4.36)

where M_{αβ} is defined as

M_{αβ} := Θ_{1I} ψ^I_α [ (1 + ε_1)∂_ρ − X^i∂_X i + ( 1 4 ε_2 + ξ_2 )] Θ_{1J} ψ^J_β .

(4.37)

The bispectrum for^gζ is again given by the three terms in Eq. (3.29), where only the first two terms give dominant contributions in the squeezed limit k_1 ≪ k_2 ≃ k_3. Using Eq. (4.36), the first term in Eq. (3.29) is given by

⟨ψ_{k1} ψ_{k2}^gζ_{k3 ,2}⟩ IR ≈ Θ_{1I} Θ_{1J} 2∑ α,β,α^′,β^′=1 ⟨ψ^I_{α, k1} ψ^J_{β,k2} M_α′_β′_{,k3} ⟩ , (4.38)

where M_{αβ,k} is the Fourier mode of M_{αβ}. Note that ⟨ψ^I_{α, k1} ψ^J_{β,k2} M_α′_β′_{,k3} ⟩ gives the non-vanishing contributions only if α and β agree with either α^′ or β^′, while α and β do not necessarily coincide with each other. We first consider the case with α = β, where the non-vanishing contribution is given by ⟨ψ^I_{α, k1} ψ^J_{α,k2} M_{αα,k3} ⟩ IR ≈ −v^I_{α,k1} v^J_{α,k2} ∫ d^3p (2π)^{3/2} ∫ d^3X (2π)^3 × [ e^{−i(k1+k3)·X} δ^{(3)}(k_2 + p)ψ^∗_{α,k1} D_pψ^∗_{α,p}e^{ip·X} + e^{−i(k2+k3 )·X} δ^{(3)}(k_1 + p)ψ^∗_{α,k2} X^i∂_X i ψ^∗_{α,p}e^{ip·X} ] + (2π)^{−3/2}δ^{(3)}(K) v^I_{α,k1} v^J_{α,k2} ψ^∗_{α,k2} ∂_ρψ^∗_{α, k1} , (4.39)

where ψ_{α,k} is defined as ψ_{α,k} := Θ_{1I} v^I_{α,k} and K is defined as K := k_1 + k_2 + k_3. In deriving this expression, we used the gauge-invariance condition (4.23) and ∂_ρv^I_α = O(ε) for k ≪ e^ρH. Next, for the case with α ≠ β, we obtain ⟨ψ^I_{α, k1} ψ^J_{β,k2} (M_{αβ,k3} + M_{βα, k3} )⟩ IR ≈ −v^I_{α,k1} v^J_{β,k2} ∫ d^3p (2π)^{3/2} ∫ d^3X (2π)^3 × [ e^{−i(k1+k3)·X} δ^{(3)}(k_2 + p)ψ^∗_{α,k1} D_pψ^∗_{β,p}e^{ip·X} + e^{−i(k2+k3 )·X} δ^{(3)}(k_1 + p)ψ^∗_{β,k2} X^i∂_X i ψ^∗_{α,p}e^{ip·X} ] + (2π)^{−3/2}δ^{(3)}(K) v^I_{α,k1} v^J_{β,k2} ψ^∗_{β,k2} ∂_ρψ^∗_{α,k1} . (4.40)

The calculation of the second term in Eq. (3.29) proceeds similarly to give

⟨ψ_{k1}^gζ_{k2,2}ψ_{k3} ⟩

≈ Θ_{1I} Θ_{1J} 2∑ α,β,α^′,β^′=1 ⟨ψ^I_{α, k1} M_α′_β′_{,k2} ψ^J_{β,k3} ⟩ , (4.41)

where the non-vanishing contributions are related to those in the first term as

Θ_{1I} Θ_{1J} ⟨ψ^I_{α, k1} M_{αα,k2} ψ^J_{α,k3} ⟩

− (2π)^{−3/2}δ^{(3)}(K) |ψ_{α,k3} |^2 ψ_{α,k1} ∂_ρψ^∗_{α,k1} IR ≈ [ Θ_{1I} Θ_{1J} ⟨ψ^I_{α, k1} ψ^J_{α,k3} M_{αα,k2} ⟩

− (2π)^{−3/2}δ^{(3)}(K) |ψ_{α,k3} |^2 ψ_{α,k1} ∂_ρψ^∗_{α,k1} ]_∗ , (4.42) and for α ≠ β

Θ_{1I} Θ_{1J} ⟨ψ^I_{α, k1} (M_{αβ,k2} + M_{βα, k2} ) ψ^J_{β,k3} ⟩

− (2π)^{−3/2}δ^{(3)}(K) |ψ_{β,k3} |^2 ψ_{α,k1} ∂_ρψ^∗_{α,k1} IR ≈ [ Θ_{1I} Θ_{1J} ⟨ψ^I_{α, k1} ψ^J_{β,k3} (M_{αβ,k2} + M_{βα, k2} )⟩

− (2π)^{−3/2}δ^{(3)}(K) |ψ_{β,k3} |^2 ψ_{α,k1} ∂_ρψ^∗_{α,k1} ]_∗ . (4.43)

Now, we consider the squeezed limit k_1 ≪ k_2 ≃ k_3. After some manipulation, Eq. (4.39) multiplied by Θ_{1I} Θ_{1J} can be expressed as

Θ_{1I} Θ_{1J} ⟨ψ^I_{α, k1} ψ^J_{α,k2} M_{αα,k3} ⟩ IR ≈ − 1 2 |ψ_{α,k1} |^2 ψ_{α,k2} ψ^∗_{α,|k1 +k3 |} × (2π)^{−3/2}(k_1 − k_2 + k_3)·∂_K δ^{(3)}(K)

− |ψ_{α,k1} |^2 |ψ_{α,k2} |^2 (2π)^{−3/2}k_1 · ∂_K δ^{(3)}(K)

+ (2π)^{−3/2}δ^{(3)}(K) ψ_{α,k1} |ψ_{α,k2} |^2 ∂_ρψ^∗_{α, k1} .(4.44)

(The detailed calculation can be consulted in Ref. [4].) The terms with k_1 manifestly vanish in the squeezed limit k_1 → 0. The rest terms on the first and second lines are not suppressed at this moment. Combining the contribution from the second term of Eq. (3.29), which satisfies Eq. (4.42), these terms, however, provide the factor (ψ_{α,k2} ψ^∗_{α,|k1+k3 |} − ψ_{α,|k1+k2|}ψ^∗_{α,k3} ), which again vanishes in the squeezed limit, k_1 → 0. We therefore understand that only the term on the last line in Eq. (4.44) yields the non-vanishing contribution in this limit. Repeating a similar calculation, we again find that all the terms in Eq. (4.40) except for the last one vanish in this limit. Finally, the bispectrum for^gζ in the squeezed limit k_1 → 0 is given by

⟨^gζ_{k1}^gζ_{k2}^gζ_{k3} ⟩

≈ 2(2π)^{−3/2}δ^{(3)}(K) 2∑ α,β=1 |ψ_{α,k2} |^2 Re [ ψ_{β,k1} ∂_ρψ^∗_{β,k1} ] , (4.45)

Note that for dθ/dρ = 0 the right-hand side of Eq. (4.45) vanishes, reproducing the result in Eq. (3.31), because for this particular case ψ_{α,k} becomes constant in time at superhorizon scales. By contrast, for dθ/dρ ≠ 0 the adiabatic field does not necessarily become constant. The result in Eq. (4.45) indicates that the time variation in the local rotation angle can generate the observable fluctuation, which are not eliminated by gauge transformations.

V. CONCLUSION

In this paper we studied the implications of the genuine gauge invariance in two-field models of inflation. We showed that, likewise in single field models, if initial quantum states satisfy the gauge-invariance conditions, the loop diagrams with the adiabatic field do not yield IR divergences. It is remarkable that the gauge-invariance conditions, imposed on the adiabatic field, can be influenced by the entropy field. This is because the interactions between the adiabatic and entropy fields can generate the additional possibly divergent terms, which are absent in single field models, and these contributions are also influenced by gauge effects. For the derivation of the gauge-invariance conditions, we distinguished the IR divergences which are relevant to gauge effects from those which are irrelevant to gauge effects, considering the diagrams up to one-loop order. This discrimination would become rather complicated if we extend our argument to higher order in loops. The loop correction of the entropy field ⟨δs δs⟩ then comes to be no longer gauge invariant due to the contamination of the adiabatic field.

In requesting the gauge invariance in the local universe, we reexamined the bispectrum for the primordial curvature perturbation. The conventionally used curvature perturbation ζ preserves the invariance under normalizable gauge transformations, but it does not under non-normalizable gauge transformations. This indicates that the curvature perturbation ζ does not preserve the gauge-invariance in the local universe while this should be preserved in observable fluctuations. We therefore calculated the tree-level bi-spectrum for the genuine gauge-invariant curvature^gζ to discuss observable fluctuations. In contrast to the result in single field models, where the genuine gauge-invariant bi-spectrum completely vanishes in the squeezed limit, in multi-field models, we still have the non-vanishing contributions in this limit. This is generated from the time variation in the curvature perturbation at superhorizon scales, which occurs only if the background trajectory is curved yielding dθ/dρ ≠ 0. This effect can be understood as follows. While the constant part of the curvature perturbation can be removed by a local dilatation, which is the nonnormalizable gauge transformation, the time dependent part cannot be removed by gauge transformations and produce the physical effect. We should emphasize that our arguments can be applied to the fluctuations in the observable scales of current measurements. Since the gauge-invariance conditions derived here are the necessary conditions, precisely speaking, the genuine gauge invariance of the bi-spectrum for^gζ has not sufficiently proven. It is, however, intuitively reasonable to have the non-vanishing physical effects in the presence of the entropy field. In this paper, we employed the slow-roll approximation. It would be interesting to discuss the observable effects in models which break the slow-roll approximation, where large non-Gaussianities are predicted in the conventional perturbation theory.

At the end of this paper, we add several comments on the IR divergence from the entropy field. The loop corrections of the entropy field can be divergent if the entropy field has the scaleinvariant or red-tilted spectrum. This divergence cannot be eliminated also in genuine gauge-invariant quantities. The IR divergence from the entropy field should be regularized by a different way from the one for the adiabatic field. In Ref. [36], we proposed one way to regularize the IR divergence from the entropy fields. (Some other ways of regularization were discussed in Refs. [44–48].) We showed that, if we take into account the effects of the quantum decoherence which pick up a unique history of the universe from various possibilities contained in initial quantum state, the IR loop corrections of the entropy field no longer diverge. Therefore, if we consider the decoherence effect, it would be possible to show the IR regularity of the genuine gauge-invariant quantities.

Acknowledgments

Y. U. would like to thank the hospitality of the Perimeter Institute during the workshop “IR Issues and Loops in de Sitter

Space.” Y. U. would also like to thank Robert Brandenberger and Arthur Hebecker for the hospitalities of McGill university and Heidelberg university. The author also acknowledges Jaume Garriga and Takahiro Tanaka for the helpful discussions. Y. U. is supported by the JSPS under Contact No. 21244033, MEC FPA under Contact No. 2007-66665-C02, and MICINN project FPA under Contact No. 2009-20807- C02-02.

[1] Y. Urakawa and T. Tanaka, Prog. Theor. Phys. 122, 779 (2009) [arXiv:0902.3209 [hep-th]].

[2] Y. Urakawa, T. Tanaka, Phys. Rev. D82, 121301 (2010).

[arXiv:1007.0468 [hep-th]].

[3] Y. Urakawa and T. Tanaka, arXiv:1009.2947 [hep-th]. [4] T. Tanaka, Y. Urakawa, [arXiv:1103.1251 [astro-ph.CO]]. [5] D. Boyanovsky and H. J. de Vega, Phys. Rev. D 70, 063508 (2004) [arXiv:astro-ph/0406287].

[6] D. Boyanovsky, H. J. de Vega and N. G. Sanchez, Phys. Rev. D 71, 023509 (2005) [arXiv:astro-ph/0409406].

[7] D. Boyanovsky, H. J. de Vega and N. G. Sanchez, Nucl. Phys.

B 747, 25 (2006) [arXiv:astro-ph/0503669].

[8] D. Boyanovsky, H. J. de Vega and N. G. Sanchez, Phys. Rev. D 72, 103006 (2005) [arXiv:astro-ph/0507596].

[9] N. C. Tsamis and R. P. Woodard, Annals Phys. 253, 1 (1997) [arXiv:hep-ph/9602316].

[10] N. C. Tsamis and R. P. Woodard, Nucl. Phys. B 474, 235 (1996) [arXiv:hep-ph/9602315].

[11] V. K. Onemli and R. P. Woodard, Class. Quant. Grav. 19, 4607 (2002) [arXiv:gr-qc/0204065].

[12] T. Brunier, V. K. Onemli and R. P. Woodard, Class. Quant. Grav.

22, 59 (2005) [arXiv:gr-qc/0408080].

[13] T. Prokopec, N. C. Tsamis and R. P. Woodard, Annals Phys.

323, 1324 (2008) [arXiv:0707.0847 [gr-qc]].

[14] M. S. Sloth, Nucl. Phys. B 748, 149 (2006) [arXiv:astro-ph/0604488].

[15] M. S. Sloth, Nucl. Phys. B 775, 78 (2007) [arXiv:hep-th/0612138].

[16] D. Seery, JCAP 0711, 025 (2007) [arXiv:0707.3377 [astro-ph]]. [17] D. Seery, JCAP 0802, 006 (2008) [arXiv:0707.3378 [astro-ph]]. [18] Y. Urakawa and K. i. Maeda, Phys. Rev. D 78, 064004 (2008) [arXiv:0801.0126 [hep-th]].

[19] P. Adshead, R. Easther and E. A. Lim, Phys. Rev. D 79, 063504 (2009) [arXiv:0809.4008 [hep-th]].

[20] H. R. S. Cogollo, Y. Rodriguez and C. A. Valenzuela-Toledo, JCAP 0808, 029 (2008) [arXiv:0806.1546 [astro-ph]].

[21] Y. Rodriguez and C. A. Valenzuela-Toledo, Phys. Rev. D 81, 023531 (2010) [arXiv:0811.4092 [astro-ph]].

[22] D. Seery, JCAP 0905, 021 (2009) [arXiv:0903.2788 [astroph.CO]].

[23] X. Gao and F. Xu, JCAP 0907, 042 (2009) [arXiv:0905.0405 [hep-th]].

[24] N. Bartolo, E. Dimastrogiovanni and A. Vallinotto, arXiv:1006.0196 [astro-ph.CO].

[25] D. Seery, Class. Quant. Grav. 27, 124005 (2010) [arXiv:1005.1649 [astro-ph.CO]].

[26] E. O. Kahya, V. K. Onemli and R. P. Woodard, arXiv:1006.3999 [astro-ph.CO].

[27] A. M. Polyakov, Nucl. Phys. B 834, 316 (2010) [arXiv:0912.5503 [hep-th]].

[28] D. Marolf and I. A. Morrison, arXiv:1006.0035 [gr-qc]. [29] S. Hollands, arXiv:1010.5367 [gr-qc].

[30] A. Rajaraman, J. Kumar and L. Leblond, Phys. Rev. D 82, 023525 (2010) [arXiv:1002.4214 [hep-th]].

[31] A. Rajaraman, arXiv:1008.1271 [hep-th].

[32] D. Krotov and A. M. Polyakov, arXiv:1012.2107 [hep-th]. [33] D. Marolf and I. A. Morrison, arXiv:1104.4343 [gr-qc]. [34] H. Kitamoto and Y. Kitazawa, Nucl. Phys. B 839, 552 (2010) [arXiv:1004.2451 [hep-th]].

[35] H. Kitamoto and Y. Kitazawa, arXiv:1012.5930 [hep-th]. [36] Y. Urakawa and T. Tanaka, Prog. Theor. Phys. 122, 1207 (2010) [arXiv:0904.4415 [hep-th]].

[37] S. B. Giddings and M. S. Sloth, arXiv:1005.1056 [hep-th]. [38] C. T. Byrnes, M. Gerstenlauer, A. Hebecker, S. Nurmi and G. Tasinato, arXiv:1005.3307 [hep-th].

[39] M. Gerstenlauer, A. Hebecker and G. Tasinato, arXiv:1102.0560 [astro-ph.CO].

[40] S. B. Giddings and M. S. Sloth, arXiv:1104.0002 [hep-th]. [41] D. Chialva and A. Mazumdar, arXiv:1103.1312 [hep-th]. [42] D. J. Schwarz, C. A. Terrero-Escalante and A. A. Garcia, Phys.

Lett. B 517, 243 (2001) [arXiv:astro-ph/0106020].

[43] J. M. Maldacena, JHEP 0305, 013 (2003) [arXiv:astro-ph/0210603].

[44] N. Bartolo, S. Matarrese, M. Pietroni, A. Riotto and D. Seery, JCAP 0801, 015 (2008) [arXiv:0711.4263 [astro-ph]].

[45] A. Riotto and M. S. Sloth, JCAP 0804, 030 (2008) [arXiv:0801.1845 [hep-ph]].

[46] K. Enqvist, S. Nurmi, D. Podolsky and G. I. Rigopoulos, JCAP 0804, 025 (2008) [arXiv:0802.0395 [astro-ph]].

[47] C. P. Burgess, L. Leblond, R. Holman and S. Shandera, JCAP 1003, 033 (2010) [arXiv:0912.1608 [hep-th]].

[48] C. P. Burgess, R. Holman, L. Leblond and S. Shandera, arXiv:1005.3551 [hep-th].