arXiv:1109.2609v2 [hep-th] 29 Mar 2012

IPMU11-0150

General relativity limit of Hořava-Lifshitz gravity with a scalar field in gradient expansion

A. Emir Gümrükçüoğlu^∗ and Shinji Mukohyama^† IPMU, The University of Tokyo, Kashiwa, Chiba 277-8582, Japan

Anzhong Wang^‡ GCAP-CASPER, Physics Department, Baylor University, Waco, TX 76798-7316, USA (Dated: March 30, 2012)

We present a fully nonlinear study of long wavelength cosmological perturbations within the framework of the projectable Hořava-Lifshitz gravity, coupled to a single scalar field. Adopting the gradient expansion technique, we explicitly integrate the dynamical equations up to any order of the expansion, then restrict the integration constants by imposing the momentum constraint. While the gradient expansion relies on the long wavelength approximation, amplitudes of perturbations do not have to be small. When the λ → 1 limit is taken, the obtained nonlinear solutions exhibit a continuous behavior at any order of the gradient expansion, recovering general relativity in the presence of a scalar field and the “dark matter as an integration constant”. This is in sharp contrast to the results in the literature based on the “standard” (and naive) perturbative approach where in the same limit, the perturbative expansion of the action breaks down and the scalar graviton mode appears to be strongly coupled. We carry out a detailed analysis on the source of these apparent pathologies and determine that they originate from an improper application of the perturbative approximation in the momentum constraint. We also show that there is a new branch of solutions, valid in the regime where |λ − 1| is smaller than the order of perturbations. In the limit λ → 1, this new branch allows the theory to be continuously connected to general relativity, with an effective component which acts like pressureless fluid.

I. INTRODUCTION

Recently, Hořava [1] proposed a new theory of quantum gravity in the framework of quantum field theory. One of the essential ingredients of the theory is inclusion of higher-dimensional operators, so that they dominate the ultraviolet (UV) behavior and render the theory power counting renormalizable. Improvement of the UV behavior by higher-dimensional operators has been known for some time [2] but in those previous attempts, higher time derivative terms led to ghost degrees of freedom. The major modification put forward by Hořava’s theory is that the powercounting renormalizability is achieved without inclusion of higher time derivative terms. This is realized by invoking the anisotropic scaling between time and space, t → b^{−z}t, ⃗x → b^{−1}⃗x , (1) so that higher-dimensional operators include spatial derivatives only. This is reminiscent of Lifshitz scalars [3] in condensed matter physics, hence the theory is often referred to as the Hořava-Lifshitz (HL) gravity. For the 3 + 1 dimensional theory to be power-counting renormalizable, the dynamical critical exponent z has to be larger than or equal to 3 [1] (see also [4]). Because of the anisotropic scaling, the theory cannot be invariant under the spacetime diffeomorphism, x^μ → x^{′μ}(x^ν ), (μ, ν = 0, 1, 2, 3). Instead, the fundamental symmetry of the theory is the invariance under the so called foliation-preserving diffeomorphism, t → t^′(t), ⃗x → ⃗x^′(t, ⃗x) , (2) denoted usually by Diff(M, F). The basic variables of the theory are the lapse function N, the shift vector N^i, and the 3-dimensional spatial metric g_{ij} [5]. Since the lapse function N corresponds to a gauge degree of freedom associated with the space-independent time reparametrization, it is natural to restrict the lapse function to be independent of the spatial coordinates:

N = N(t) . (3)

∗Electronic address: emir.gumrukcuoglu@ipmu.jp †Electronic address: shinji.mukohyama@ipmu.jp ‡Electronic address: Anzhong˙Wang@baylor.edu

This condition, imposed in the original formulation of the theory, is called the projectability condition.

Since its introduction, there has been many cosmological applications of the HL gravity and various remarkable features have been found (see [6, 7] for reviews). In particular, the higher-order spatial curvature terms can give rise to a bouncing universe [8], may ameliorate the flatness problem [9] and lead to caustic avoidance [10]; the anisotropic scaling provides a solution to the horizon problem and generation of scale-invariant perturbations without inflation [11], a new mechanism for generation of primordial magnetic seed field [12], and also a modification of the spectrum of gravitational wave background via a peculiar scaling of radiation energy density [13]; with the projectability condition, the lack of a local Hamiltonian constraint leads to “dark matter as an integration constant” [14]; in the parity-violating version of the theory, circularly polarized gravitational waves can also be generated in the early universe [15].

Despite all of its remarkable features, the theory has been challenged by significant questions. In particular, the Diff(M, F) symmetry allows the existence of an additional spin-0 degree of freedom, often called scalar graviton, and its fate is one of important open issues. Actually, the scalar graviton is known to be unstable either in the UV due to ghost instability or in the infrared (IR) due to gradient instability [16–18], depending on the value of a coupling constant λ. In order to avoid the ghost instability, λ must satisfy either λ < 1/3 or λ > 1. Precisely in these two ranges, the scalar graviton exhibits gradient instability at long distances. We then have to tame this IR instability by expansion of the universe [19, 20] or have to hide it by the standard Jeans instability. One can formulate a condition under which one of these happens [6]. Essentially, the condition says that λ must be sufficiently close to 1 in the IR.

However, in the limit λ → 1, the scalar graviton appears to be strongly coupled [20–22]. That is, the “standard” (and naive) perturbative expansion breaks down in the sense that nonlinear terms dominate linear terms in the λ → 1 limit. Note that this does not necessarily imply loss of predictability: if the theory is renormalizable, all coefficients of infinite number of nonlinear terms can be written in terms of finite parameters in the action, as several well-known theories with strong coupling (e.g. [23]) indicate. However, because of the breakdown of the (naive) perturbative expansion, we need to employ nonperturbative methods to analyze the fate of the scalar graviton in the limit λ → 1. Such an analysis was performed in [6] for spherically symmetric, static, vacuum configurations and it was shown that the limit is continuously connected to general relativity (GR).^1 This may be considered as an analogue of the Vainshtein effect [24, 25]. A similar consideration for cosmology was given in [26], where a fully nonlinear analysis of superhorizon cosmological perturbations was carried out.

One of limitations of the analysis in [26] is that it is for a purely gravitational system in the absence of ordinary matter (but with “dark matter as an integration constant”). Since the naive perturbative expansion is known to break down not only in the gravity sector but also in the matter sector [20, 21], it is rather important to extend the analysis of [26] to the system with ordinary matter. Technically speaking, however, this kind of extention is indeed a nontrivial challenge since the system now has multi components (ordinary matter and “dark matter as an integration constant”) and the gradient expansion technique has not been developed for multi-component systems even in the standard cosmology in GR.

Thus, one of the main objectives of the present paper is to extend the analysis of [26] to the case where HL gravity is coupled to a single scalar field, and provide yet another example indicating that general relativity (plus “dark matter as an integration constant”) is restored in the λ → 1 limit by nonlinear dynamics. Another goal is to point out the source of the discrepancy between perturbative and nonperturbative results. As we will see, the solution of the momentum constraint in the naive application of the “standard” perturbative expansion is not valid in the regime where |λ − 1| is smaller than the order of perturbations.

The paper is organized as follows. In Sec. II, we briefly review the basic equations in the HL gravity with the projectability condition (3), while in Sec. III, we analyze the inhomogeneous cosmology in HL gravity using the gradient expansion method [27], and present the solutions to the equations of motion. In Sec.IV, we present a discussion on the source of the divergences in the naive perturbative expansion and show that the momentum constraint is dominated by nonlinear terms in the λ → 1 limit. The results are summarized and discussed in Sec.V. The paper is supplemented by two Appendices, in which we present some of the technical steps of our calculations.

1 Specifically, the solutions are continuously connected to the λ = 1 theory, whose action has the exact same form as the Einstein-Hilbert term (up to high curvature terms negligible at low energies). However, due to the different symmetries, the resulting theory is not exactly GR, but GR with an effective component which acts like dark-matter [14]. This is what we mean by “continuity with GR” throughout the present paper. In the case considered in [6], however, the “dark matter” component is automatically set to zero by the assumed staticity.

II. BASIC EQUATIONS

In this section, we review the basic equations of the HL gravity coupled with a scalar field [9, 28], following the notation in [6], and reformulate them in a way suitable for gradient expansion [26]. In order to make the present paper self-contained, some repetition of the material in [26] is inevitable in Secs.II and III, although we shall try our best to limit them to a minimum.

With Diff(M, F) and the projectability, the building blocks of the theory are g_{ij} , K_{ij} , D_i and R_{ij} , where K_{ij} denotes the extrinsic curvature of constant time hypersurfaces, D_i is the covariant derivative compatible with the the 3-dimensional spatial metric g_{ij} , and R_{ij} is the three-dimensional Ricci tensor built out of g_{ij} . (This is in contrast to GR or any other theory with general covariance whose building blocks are the 4-dimensional metric and its Riemann tensor.) For the critical exponent z = 3, their momentum dimensions are, respectively, [K_{ij} ] = [k]^3 and [R_{ij} ] = [k]^2. Throughout the present paper, we shall impose the projectability condition as well as invariance under the spatial parity (x^i → −x^i) and the time reflection (t → −t). The number of independent coupling constants in this setup is 11 for z = 3 [9, 16]. In fact, with the foliation-preserving diffeomorphisms (2), the projectability condition (3), and the additional requirements of parity and time reflection symmetry, the most general gravitational action can be specified as I_g =

M^2_{P l} 2 ∫ Ndt √ g d^3⃗x ( K_{ij} K^{ij} − λK^2 − 2Λ + R + L_{z>1} ) , (4)

where g is the determinant of g_{ij} , and the extrinsic curvature K_{ij} is defined as K_{ij} = 1 2N (∂_tg_{ij} − D_iN_j − D_j N_i) , (5)

K (= g^{ij} K_{ij} ) is the trace of K_{ij} , and R is the Ricci scalar constructed from g_{ij} . To lower and raise an index, g_{ij} and its inverse g^{ij} are used. For the sake of simplicity and clarity, in the remainder of this paper, we choose our units such that M_{P l} = 1.

In contrast to GR, the less restricting symmetry allows both kinetic terms K_{ij} K^{ij} and K^2 to be invariant independently, giving rise to the extra parameter λ, which assumes the value 1 in GR, as mentioned above. Furthermore, in order to realize the power-counting renormalizability, the higher curvature Lagrangian L_{z>1} should include up to sixth spatial derivatives. For the analysis in the present paper, the concrete form of L_{z>1} is not needed. Adding the scalar field action I_ϕ that is invariant under spatial parity and time reflection, as well as the foliation preserving diffeomorphism, the total action is

I = I_g + I_ϕ,

I_ϕ = ∫ N dt √ g d^3⃗x [ 1 2 (∂_⊥ϕ)^2 − V (ϕ, D_i, g_{ij} ) ] , (6)

where we define the derivative along vector normal to the hypersurface ∂_⊥ ≡ 1 N (∂_t − N^k∂_k) , (7)

and we decompose the scalar field potential as

V (ϕ, D_i, g_{ij} ) = V_0(ϕ) + V_{z≥1}(ϕ, D_i, g_{ij} ) . (8)

Here, V_{z≥1} summarizes terms with two or more spatial derivatives and like L_{z>1} above, its concrete form is not needed for the purposes of the present paper.

Variation of the total action with respect to the 3-dimensional metric g_{ij} leads to the dynamical equation

E_{gij} + E_{ϕij} = 0 , (9) where E_{gij} ≡ g_{ik}g_{jl} 2 N √ g δI_g δg_{kl} = − 1 N (∂_t − N^kD_k)p_{ij} + 1 N (p_{ik} D_j N^k + p_{jk} D_iN^k) −Kp_{ij} + 2K^k_i p_{kj} + 1 2 g_{ij} K^{kl}p_{kl} − Λ g_{ij} − G_{ij} + E_{g,z>1,ij} , (10) E_{ϕij} ≡ g_{ik}g_{jl} 2 N √ g δI_ϕ δg_{kl} = g_{ij} [ 1 2 (∂_⊥ϕ)^2 − V_0(ϕ) ] + E_{ϕ,z≥1,ij} . (11) Here, E_{g,z>1,ij} and E_{ϕ,z≥1,ij} are contributions from L_{z>1} and −V_{z≥1}, respectively, p_{ij} ≡ K_{ij} − λKg_{ij} , and G_{ij} is Einstein tensor of g_{ij} . The trace part and traceless part of Eq.(9) are, respectively,

(3 λ − 1) ( ∂_⊥K + 1 2 K^2 ) + 3 2 A^i_j A^j_i + 3 2 (∂_⊥ϕ)^2 + Z = 0 , (12) and ∂_⊥A^i_j + KA^i_j + 1 N (A^k_j ∂_kN^i − A^i_k∂_j N^k) − ( Z^i_j − 1 3 Zδ^i_j ) = 0 , (13)

where A^i_j ≡ K^i_j − 1 3 Kδ^i_j , (14)

is the traceless part of K^i_j and we defined Z^i_j ≡ Z^i_{g,j} + Z^i_{ϕ,j} , Z ≡ Z^i_i , Z^i_{g,j} ≡ −Λ δ^i_j − G^i_j + g^{ik}E_{z>1,g,kj} , Z^i_{ϕ,j} ≡ −V_0(ϕ)δ^i_j + g^{ik}E_{z≥1,ϕ,kj} . (15) Here, Z^i_{g ,j} is the variation of the potential part of the gravitational action with respect to the spatial metric; it is a generalization of (minus) the Einstein tensor of g_{ij} to include higher curvature terms, as well as the cosmological constant. The quantity Z^i_{ϕ ,j} is obtained similarly from the potential part of the scalar field action.

The variation of the total action with respect to ϕ yields the remaining dynamical equation

0 = − 1 N √ g δI_ϕ δϕ = 1 N √ g ∂_t( √ g ∂_⊥ϕ) − 1 N √ g D_i( √ g N^i∂_⊥ϕ) + E_ϕ , (16)

where E_ϕ ≡ 1 √ g δ δϕ ∫ √ g dt d^3⃗x V (ϕ, D_i, g_{ij} ) = V^′_0 (ϕ) + E_{ϕ,z≥1} , (17)

and E_{ϕ,z≥1} is the contribution from V_{z≥1}.

Since the 3-dimensional spatial diffeomorphism is a subgroup of the foliation preserving diffeomorphism, Z^i_{g,j} and Z^i_{ϕ,j} satisfy the generalized Bianchi identity and matter conservation,

D_j Z^j_{g,i} = 0 , D_j Z^j_{ϕ,i} + E_ϕ∂_iϕ = 0 . (18)

For convenience, we decompose the spatial metric and the extrinsic curvature as g_{ij} = a^2(t) e^{2ζ(t,⃗x)} γ_{ij} (t, ⃗x) , (19) K^i_j = 1 3 K(t, ⃗x) δ^i_j + A^i_j (t, ⃗x) , (20) where we have defined ζ(t, ⃗x) so that det γ = 1, and a(t) (up to an overall normalization) is defined later in Eq. (37). The trace part and the traceless part of the definition of the extrinsic curvature lead, respectively, to ∂_⊥ζ + ∂_ta N a = 1 3 ( K + 1 N ∂_iN^i ) , (21) and ∂_⊥γ_{ij} = 2 γ_{ik}A^k_j + 1 N ( γ_{jk}∂_iN^k + γ_{ik}∂_j N^k − 2 3 γ_{ij} ∂_kN^k ) . (22)

The momentum constraint is obtained by varying the action with respect to N^i: D_j K^j_i − λ ∂_iK = ∂_⊥ϕ ∂_iϕ . (23) According to the decomposition (20), the momentum constraint is rewritten as

∂_j A^j_i + 3 A^j_i ∂_j ζ − 1 2 A^j_l (γ^{−1})^{lk} ∂_iγ_{jk} − 1 3 (3λ − 1) ∂_iK = ∂_⊥ϕ ∂_iϕ . (24)

It can be shown that the evolution equations we have derived are consistent with vanishing A^i_i, ln det γ, γ_{ij} − γ_{ji} and γ_{ik} A^k_j − γ_{jk} A^k_i [26].

III. GRADIENT EXPANSION

In this section, we analyze the dynamics of nonlinear superhorizon perturbations in the spatial gradient expansion approach. This approach is valid as long as the characteristic length scale L of the perturbations is much larger than the Hubble length H^{−1}. By the introduction of small parameter ϵ ∼ 1/(H L), we perform a series expansion on all relevant quantities and equations. For instance, a spatial derivative acting on a quantity at order ϵ^p raises the order to ϵ^{p+1} and thus is counted as O(ϵ). We then solve the equations order by order in gradient expansion, extending the calculations of [26] in a spatially flat Friedmann-Robertson-Walker background, to include a single scalar field as the source.

A. Gauge fixing

The foliation preserving diffeomorphism invariance, like all other gauge symmetries, reflects a redundancy in the descriptions of the theory. By an appropriate choice of gauge conditions, these degrees can be eliminated and physical quantities can be extracted. In the present paper we adopt the synchronous gauge, or the Gaussian normal coordinate system, by setting the lapse function to unity and the shift vector to zero: N = 1 , N^i = 0 . (25) This choice fixes the time coordinate but in the spatial coordinates, there remains a gauge freedom of time-independent spatial diffeomorphism, corresponding to the change of coordinates on the initial constant-time hypersurface. This residual gauge degree of freedom will be discussed later in Subsection III F.

After the gauge fixing, our basic equations (12), (13), (16), (21) and (22) are simplified to

(3λ − 1)∂_tK = − 1 2 (3λ − 1)K^2 − 3 2 A^i_j A^j_i − 3 2 (∂_tϕ)^2 − Z , (26)

∂_tA^i_j = −KA^i_j + Z^i_j − 1 3 Z δ^i_j , (27)

0 = ∂^2_t ϕ + K∂_tϕ + E_ϕ , (28) ∂_tζ = − ∂_ta a + 1 3 K , (29)

∂_tγ_{ij} = 2 γ_{ik}A^k_j , (30) while the momentum constraint (24) has the form

∂_j A^j_i + 3 A^j_i∂_j ζ − 1 2 A^j_l(γ^{−1})^{lk}∂_iγ_{jk} − 1 3 (3λ − 1) ∂_iK = ∂_tϕ ∂_iϕ . (31)

Hereafter, we assume that λ ≠ 1/3; this is consistent with the regime of physical interest λ ≥ 1, discussed in the Introduction section.

B. Basic assumptions and order analysis We begin by determining the order of all relevant variables. In the limit ϵ → 0, we expect a universe that looks locally like a Friedmann universe, leading to our starting assumption ∂_tγ_{ij} = O(ϵ) . (32) For the scalar field, a similar assumption leads to ∂_iϕ = O(ϵ). However, in order to simplify the analysis, we impose the stronger condition ∂_iϕ = O(ϵ^2). (33) That is, we assume that ϕ^{(0)}, which is the leading order term of ϕ, is only time dependent: ϕ^{(0)} = ϕ^{(0)}(t). (34) The first assumption (32) then implies, from Eq. (30), A^i_j = O(ϵ), (35) leading, using the constraint equation (31), to ∂_iK = O(ϵ^2). (36) In other words, the zero-th order part K^{(0)} of K depends on t only. This fact enables us to define a(t) by 3 ∂_ta(t) a(t) = K^{(0)}(≡ 3H(t)). (37) With this definition of a(t), Eq. (29) leads to ∂_tζ = O(ϵ). (38) To summarize, the relevant quantities in the analysis are expanded as follows: ζ = ζ^{(0)}(⃗x) + ϵ ζ^{(1)}(t, ⃗x) + ϵ^2ζ^{(2)}(t, ⃗x) + O(ϵ^3) , (39) γ_{ij} = f_{ij} (⃗x) + ϵ γ^{(1)}_{ij} (t, ⃗x) + ϵ^2γ^{(2)}_{ij} (t, ⃗x) + O(ϵ^3) , (40) K = 3 H(t) + ϵ K^{(1)}(t, ⃗x) + ϵ^2K^{(2)}(t, ⃗x) + O(ϵ^3) , (41) A^i_j = ϵ A^{(1) i}_j (t, ⃗x) + ϵ^2A^{(2) i}_j (t, ⃗x) + O(ϵ^3) , (42) ϕ = ϕ^{(0)}(t) + ϵ ϕ^{(1)}(t, ⃗x) + ϵ^2ϕ^{(2)}(t, ⃗x) + O(ϵ^3) , (43) where a quantity with the upper index (n) corresponds to the n-th order term in the gradient expansion.

C. Equations in each order After determining the orders of all physical quantities, we now use this information in the evolution equations (26)–(30) to obtain the evolution equations at each order. In the zero-th order of gradient expansion we have (3 λ − 1) ( ∂_tH + 3 2 H^2 ) = − 1 2 (∂_tϕ^{(0)})^2 + V_0(ϕ^{(0)}) + Λ , ∂^2_t ϕ^{(0)} + 3 H ∂_tϕ^{(0)} + V^′(ϕ^{(0)}) = 0 , (44) where a prime denotes the ordinary derivative with respect to the indicated argument. By using the second of the above, the first equation can be integrated to give

3 H^2 = 2 3 λ − 1 [ 1 2 (∂_tϕ^{(0)})^2 + V (ϕ^{(0)}) + Λ ] + ~C a^3

, (45) where ~C is an integration constant. The last term in the right hand side of this equation is the “dark matter as an integration constant” [14], a direct consequence of the projectability condition.

The dynamical equations at order O(ϵ^n) with n ≥ 1, are written as a^{−3}∂_t [ a^3 ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)}

3 λ − 1 )] = − 1 2 n−1∑ p=1 K^{(p)}K^{(n−p)} − 3 2 (3 λ − 1) n−1∑ p=1 [ A^{(p) i}_j A^{(n−p) j}_i

+∂_tϕ^{(p)}∂_tϕ^{(n−p)} ] − Z̄(n) 3 λ − 1

, (46) a^{−3}∂_t ( a^3A^{(n) i}_j ) = − n−1∑ p=1 K^{(p)}A^{(n−p) i}_j + Z̄^{(n) i}_j − 1 3 Z̄^{(n)}δ^i_j , (47)

a^{−3}∂_t ( a^3∂_tϕ^{(n)} ) + [ V^{′′}_0 (ϕ^{(0)}) −

3 (∂_tϕ^{(0)})^2

3 λ − 1 ] ϕ^{(n)} = − ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 ) ∂_tϕ^{(0)} − n−1∑ p=1 K^{(p)}∂_tϕ^{(n−p)} − Ē^{(n)}_ϕ , (48)

∂_tζ^{(n)} = 1 3 ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 ) − ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1

, (49)

∂_tγ^{(n)}_{ij} = 2 n−1∑ p=0 γ^{(p)}_{ik} A^{(n−p) k}_j , (50)

where for later convenience, we introduced new (barred) quantities

Z̄^{(n) i}_j ≡ Z^{(n) i}_j + V^′_0 (ϕ^{(0)}) ϕ^{(n)}δ^i_j , Z̄^{(n)} ≡ Z^{(n)} + 3 V^′_0 (ϕ^{(0)}) ϕ^{(n)}, Ē^{(n)}_ϕ ≡ E^{(n)}_ϕ − V^{′′}_0 (ϕ^{(0)}) ϕ^{(n)}, (51)

to subtract the terms depending on ϕ^{(n)} from (unbarred) Z^{(n) i}_j and E^{(n) i}_j , defined in Eqs.(15) and (17). Here, Z^{(n) i}_j , Z^{(n)} and E^{(n)}_ϕ are the n-th order terms of Z^i_j , Z, E_ϕ, respectively. With this definition, Z̄^{(n) i}_j , Z̄^{(n)} and Ē^{(n)}_ϕ do not depend on ζ^{(n)}, γ^{(n)}_{ij} , K^{(n)}, A^{(n) i}_j , nor on ϕ^{(n)}.

Similarly, from Eq. (31) we obtain the order O(ϵ^{n+1}) (n ≥ 1) momentum constraint as

∂_j A^{(n) j}_i + 3 n∑ p=1 A^{(p) j}_i∂_j ζ^{(n−p)} − 1 2 n∑ p=1 n−p∑ q=0 A^{(p) j}_l(γ^{−1})^{(q) lk}∂_iγ^{(n−p−q)}_{jk}

− 1 3 (3 λ − 1) ∂_i ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 ) − n−1∑ p=1 ∂_tϕ^{(p)}∂_iϕ^{(n−p)} = 0 , (52)

where (γ^{−1})^{(n) ij} is the n-th order term of the inverse of γ_{ij} , i.e. the inverse (γ^{−1})^{ij} is expanded as

(γ^{−1})^{ij} = f^{ij} + ϵ (γ^{−1})^{(1) ij} + ϵ^2(γ^{−1})^{(2) ij} + . . . , (53)

where f^{ij} = (γ^{−1})^{(0) ij} is the inverse of f_{ij} . It is straightforward to show that (γ^{−1})^{(n) ij} (n ≥ 1) satisfies the following differential equation:

∂_t(γ^{−1})^{(n) ij} = −2 n∑ p=1 A^{(p) i}_k(γ^{−1})^{(n−p) kj} . (54)

In addition to the dynamical equations and momentum constraint, there are also some useful identities. First, we expand the generalized Bianchi identity (18) to obtain

∂_jZ̄^{(n) j}_i + 3 n∑ p=1 ( Z̄^{(p) j}_i − 1 3 Z̄^{(p)}δ^j_i ) ∂_j ζ^{(n−p)} − 1 2 n∑ p=1 n−p∑ q=0 Z̄^{(p) j}_l(γ^{−1})^{(q) lk}∂_iγ^{(n−p−q)}_{jk}

+ n−1∑ p=1 [ Ē^{(n−p)} ϕ + V^{′′}_0 (ϕ^{(0)}) ϕ^{(n−p)} ] ∂_iϕ^{(p)} = 0 , (55) for n ≥ 1. Next, expanding the conditions A^i_i = 0, ∂_i ln det γ = 0, γ_{ij} − γ_{ji} = 0, γ_{ik}A^k_j − γ_{jk} A^k_i = 0 and A^i_j − γ_{jk} A^k_l(γ^{−1})^{li} = 0 leads to the following identities:

A^{(n) i}_i = 0 , n∑ p=0 (γ^{−1})^{(p) jk} ∂_iγ^{(n−p)}_{jk} = 0 , γ^{(n)}_{ij} − γ^{(n)}_{ji} = 0 , n−1∑ p=0 ( γ^{(p)}_{ik} A^{(n−p) k}_j − γ^{(p)}_{jk} A^{(n−p) k}_i ) = 0 , A^{(n) i}_j − n−1∑ p=0 n−p−1 ∑ q=0 γ^{(p)}_{jk} A^{(n−p−q) k}_l(γ^{−1})^{(q) li} = 0 . (56)

D. O(ϵ) solution

For O(ϵ), Eqs.(46)–(50) reduce to ∂_t [ a^3 ( K^{(1)} +

3 ϕ^{(1)}∂_tϕ^{(0)}

3 λ − 1 )] = 0 , (57) ∂_t ( a^3A^{(1) i}_j ) = 0 , (58) a^{−3}∂_t ( a^3∂_tϕ^{(1)} ) + [ V^{′′}_0 (ϕ^{(0)}) −

3 (∂_tϕ^{(0)})^2

3 λ − 1 ] ϕ^{(1)} = − ( K^{(1)} +

3 ϕ^{(1)}∂_tϕ^{(0)} 3 λ − 1 ) ∂_tϕ^{(0)} , (59)

∂_tζ^{(1)} = 1 3 ( K^{(1)} +

3 ϕ^{(1)}∂_tϕ^{(0)}

3 λ − 1 ) − ϕ^{(1)}∂_tϕ^{(0)} 3 λ − 1

, (60)

∂_tγ^{(1)}_{ij} = 2 f_{ik}A^{(1) k}_j , (61)

where from equations (15), (17) and (51), we have at first order, Z̄^{(1)i}_j = Z̄^{(1)} = Ē^{(1)}_ϕ = 0. Integrating the above equations, we obtain

K^{(1)} +

3 ϕ^{(1)}∂_tϕ^{(0)} 3 λ − 1 = C^{(1)}(⃗x) a(t)^3

, (62)

A^{(1) i}_j =

C^{(1) i}_j (⃗x)

a(t)^3

, (63)

ϕ^{(1)} = [ C^{(1)}(⃗x) ∫_t t_{in} dt^′ f_2(t^′) ∂_t′ ϕ^{(0)}(t^′)

a(t^′)^3W (t^′)

+ ϕ^{(1)}_{in} (⃗x) ] f_1(t) + [ −C^{(1)}(⃗x) ∫_t t_{in} dt^′ f_1(t^′) ∂_t′ ϕ^{(0)}(t^′) a(t^′)^3W (t^′)

+ ϕ̇^{(1)}_{in} (⃗x) ] f_2(t) , (64)

ζ^{(1)} =

C^{(1)}(⃗x) 3 ∫_t t_{in} dt^′ a^3(t^′) − 1 3 λ − 1 ∫_t t_{in}

dt^′ ϕ^{(1)}(t^′) ∂_t′ ϕ^{(0)}(t^′) + ζ^{(1)}_{in} (⃗x), (65)

γ^{(1)}_{ij} = 2 f_{ik}(⃗x) C^{(1) k}_j (⃗x) ∫_t t_{in} dt^′ a^3(t^′)

+ γ^{(1)}_{in ij} (⃗x) , (66)

where the integration “constants” C^{(1)}, C^{(1) i}_j , ϕ^{(1)}_{in} , ϕ̇^{(1)}_{in} , ζ^{(1)}_{in} and γ^{(1)}_{in ij} depend only on the spatial coordinates ⃗x^i and satisfy

C^{(1) i}_i = 0 , f_{ik}C^{(1) k}_j = f_{jk}C^{(1) k}_i . (67)

The functions f_i(t) (i = 1, 2) are two independent solutions of the homogeneous equation

a^{−3}∂_t(a^3∂_tf_i) + [ V^{′′}_0 (ϕ^{(0)}) −

3 (∂_tϕ^{(0)})^2

3 λ − 1 ] f_i = 0 ; f_1(t_{in}) = 1 , f^′_1(t_{in}) = 0 ; f_2(t_{in}) = 0 , f^′_2(t_{in}) = 1 , (68) and W (t) ≡ f_1(t) ∂_tf_2(t) − f_2(t) ∂_tf_1(t) . (69)

The two first order integration “constants”, ζ^{(1)}_{in} and γ^{(1)}_{in ij} , can be absorbed into their zero-th order counterparts, ζ^{(0)}_{in} and γ^{(0)}_{in ij} . Thus, without loss of generality, we can set

ζ^{(1)}_{in} = 0 , γ^{(1)}_{in ij} = 0 . (70)

Finally, the momentum constraint equation (52) with n = 1 leads to the following relation among the remaining integration constants, C^{(1)}, C^{(1) i}_j , ζ^{(0)} and f_{ij} ,

∂_j C^{(1) j}_i + 3 C^{(1) j}_i∂_j ζ^{(0)} − 1 2 C^{(1) j}_lf^{lk}∂_if_{jk} − 1 3 (3 λ − 1) ∂_iC^{(1)} = 0. (71)

Note that ϕ^{(1)}_{in} (⃗x) and ϕ̇^{(1)}_{in} (⃗x) do not appear in this equation. The physical meaning of ϕ^{(1)}_{in} (⃗x) and ϕ̇^{(1)}_{in} (⃗x) are obvious:

ϕ^{(1)} | | |_{t=tin} = ϕ^{(1)}_{in} (⃗x) , ∂tϕ^{(1)} | | |_{t=tin} = ϕ̇^{(1)}_{in} (⃗x) . (72)

E. O(ϵ^n) solution (n ≥ 1)

Equipped with the zero-th and first order solution, we can now determine the general solutions at arbitrary order in gradient expansion. For any n ≥ 1, the solution to Eqs.(46)–(50) is

K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 = 1 a^3(t) ∫_t t_{in}

dt^′a^3(t^′) { − Z̄(n)(t′, ⃗x) 3 λ − 1 − 1 2 n−1∑ p=1 K^{(p)}(t^′, ⃗x)K^{(n−p)}(t^′, ⃗x)

− 3 2 (3 λ − 1) n−1∑ p=1 [ A^{(p) i}_j (t^′, ⃗x) A^{(n−p) j}_i(t^′, ⃗x) + ∂_t′ ϕ^{(p)}(t^′, ⃗x) ∂_t′ ϕ^{(n−p)}(t^′, ⃗x) ] } , (73)

A^{(n) i}_j = 1 a^3(t) ∫_t t_{in}

dt^′a^3(t^′) [ − n−1∑ p=1 K^{(p)}(t^′, ⃗x)A^{(n−p) i}_j (t^′, ⃗x) + Z̄^{(n) i}_j (t^′, ⃗x) − 1 3 Z̄^{(n)}(t^′, ⃗x)δ^i_j ] , (74)

ϕ^{(n)} = f_1(t) ∫_t t_{in} dt^′ f_2(t^′)r^{(n)}(t^′, ⃗x)

W (t^′)

− f_2(t) ∫_t t_{in} dt^′ f_1(t^′)r^{(n)}(t^′, ⃗x)

W (t^′)

, (75)

ζ^{(n)} = ∫_t t_{in} dt^′ [ 1 3 ( K^{(n)}(t^′, ⃗x) +

3ϕ^{(n)}(t^′, ⃗x)∂_t′ ϕ^{(0)}(t^′)

3 λ − 1 ) − ϕ^{(n)}(t^′, ⃗x)∂_t′ ϕ^{(0)}(t^′)

3 λ − 1 ] , (76)

γ^{(n)}_{ij} = 2 ∫_t t_{in} dt^′ n−1∑ p=0 γ^{(p)}_{ik} (t^′, ⃗x)A^{(n−p) k}_j (t^′, ⃗x) , (77) where r^{(n)}(t, ⃗x) ≡ ( K^{(n)}(t, ⃗x) + 3 ϕ^{(n)}(t, ⃗x)∂_tϕ^{(0)}(t) 3 λ − 1 ) ∂_tϕ^{(0)}(t) + n−1∑ p=1 K^{(p)}(t, ⃗x) ∂_tϕ^{(n−p)}(t, ⃗x) + Ē^{(n)}_ϕ (t, ⃗x) , (78)

and by redefining C^{(1)}, C^{(1) i}_j , ϕ^{(1)}_{in} , ϕ̇^{(1)}_{in} , ζ^{(0)} and f_{ij} , we have set, respectively, K^{(n)} | | |_{t=tin} = A^{(n) i}_j | | |_{t=tin} = ϕ^{(n)} | | |_{t=tin} = ∂tϕ^{(n)} | | |_{t=tin} = ζ^{(n)} | | |_{t=tin} = γ^{(n)}_{ij} | | |_{t=tin} = 0 . (79)

We remind that the first order constants have already been fixed in Eq.(70) by redefinition of ζ^{(0)} and f_{ij} , respectively.

The initial condition for γ^{(n)}_{ij} (n ≥ 1) implies that γ_{ij} |_{t=tin} = f_{ij} , (γ^{−1})^{ij} | |_{t=tin} = f ij and (γ−1)(n) ij | |_{t=tin} = 0 (n ≥ 1). Therefore, for n ≥ 1, the solution to Eq.(54) is

(γ^{−1})^{(n) ij} = −2 ∫_t t_{in} dt^′ n∑ p=1 A^{(p) i}_k(γ^{−1})^{(n−p) kj} . (80)

As shown in Appendix A, the solution (73)-(77) automatically satisfies the (n + 1)-th order momentum constraint equation (52), provided that the redefined integration constants (C^{(1)}, C^{(1) i}_j , ζ^{(0)}, f_{ij} ) satisfy (71) up to O(ϵ^{n+1}).

F. Number of physical degrees of freedom

The solution we obtained in the previous subsection involves a number of functions depending only on spatial coordinates, ζ^{(0)}(⃗x), f_{ij} (⃗x), C^{(1)}(⃗x), C^{(1) i}_j (⃗x), ϕ^{(1)}_{in} (⃗x) and ϕ̇^{(1)}_{in} (⃗x) which emerged as integration “constants”. However, not all of the components are independent nor physical. Firstly, they are subject to the constraint (71). Secondly, as stated just after Eq. (25), our gauge condition (25) leaves time-independent spatial diffeomorphism as a residual gauge freedom. Therefore, the number of physical degrees of freedom included in each integration “constant” is ζ^{(0)}(⃗x) . . . 1 scalar growing mode = 1 component , f_{ij} (⃗x) . . . 2 tensor growing modes = 5 components − 3 gauge ,

C^{(1)}(⃗x) . . . 1 scalar decaying mode = 1 component ,

C^{(1) i}_j (⃗x) . . . 2 tensor decaying modes = 5 components − 3 constraints ,

ϕ^{(1)}_{in} (⃗x), ϕ̇^{(1)}_{in} (⃗x) . . . 2 scalar modes . (81)

This is consistent with the fact that the HL gravity includes not only a tensor graviton (2 propagating degrees of freedom) but also a scalar graviton (1 propagating degree of freedom) and that our system includes a scalar field (1 propagating degree of freedom) as well.

IV. PERTURBATIVE VS NONPERTURBATIVE APPROACHES

In the previous section, we have derived solutions for nonlinear perturbations in any order of gradient expansion. While gradient expansion relies on the long wavelength approximation, amplitudes of perturbations do not have to be small. Thus, our analysis in the previous section is totally nonperturbative with respect to amplitudes of perturbations. The dynamical equations and their solutions do not suffer from any divergences in the λ → 1 limit, and GR coupled with a scalar field and dark matter is safely recovered in this limit.

This is in sharp contrast with results known in the literature based on the “standard” (and naive) perturbative approach, in which pathologies such as divergences and strong coupling are found in the λ → 1 limit. In this section, we shall see how this problem arises in the “standard” perturbative approach and why it becomes under control in our nonperturbative approach. In the “standard” perturbative approach, all relevant equations are expanded with respect to amplitudes of perturbations, irrespective of sizes of coefficients in the expansion. We shall see that, in the momentum constraint, coefficients of terms linear in perturbations actually vanish in the λ → 1 limit and thus, for sufficiently small but nonvanishing |λ − 1|, the linear terms become less important than nonlinear terms. Hence, neglecting nonlinear terms, blindly solving the linearized momentum constraint and then taking the λ → 1 limit would be totally nonsense and lead to inconsistencies. This is precisely the situation in the “standard” perturbative approach. Clearly, this is a breakdown of the treatment based on the “standard” perturbative expansion but not of the HL theory itself. Indeed, as already stated above, our nonperturbative analysis in the previous section does not show any pathologies in the λ → 1 limit. In the rest of this section, we shall investigate these issues explicitly. For simplicity we shall consider the cases without the scalar field (but with the built-in “dark matter as integration constant”).

A. Breakdown of standard perturbative expansion in the λ → 1 limit

In this subsection let us briefly review the standard perturbative approach and see that, contrary to the nonperturbative approach based on the gradient expansion in the previous section, it breaks down in the λ → 1 limit.

Let us adopt the following metric ansatz in the transverse gauge,

N = 1, N_i = ∂_iB + n_i, g_{ij} = a^2e^{2ζT} ( e^h ) ij , (82) where n_i is transverse and h_{ij} is transverse and traceless: ∂^in_i = 0, ∂^ih_{ij} = 0 and h^i_i = 0. Throughout this subsection, indices are raised and lowered by δ^{ij} and δ_{ij} . We introduce a small parameter ϵ̄, consider ζ_T , B, n_i and h_{ij} as quantities of O(ϵ̄), and perform perturbative expansion with respect to ϵ̄.

In the regime of validity of the standard perturbative expansion, in order to calculate the action up to cubic order, it suffices to solve the momentum constraint up to the first order, which can be written in the form, ∂_i [ a^2(3λ − 1)∂_tζ_T − (λ − 1)△B ] + 1 2 △n_i = 0, (83) leading to a^{−2}△B = 3λ − 1 λ − 1 ∂_tζ_T , n_i = 0, (84)

where △ ≡ ∂^i∂_i.

It is straightforward to calculate the kinetic action up to the third order. The quadratic part I^{(2)}_{kin} and the cubic part I^{(3)}_{kin} are [29]

I^{(2)}_{kin} = ∫ dtd^3⃗xa^3 ( a^{−2}∂_tζ_T △B + 1 8 ∂_th^{ij} ∂_th_{ij} ) , I^{(3)}_{kin} = ∫ dtd^3⃗xa^3 [ 3ζ_T ( a^{−2}∂_tζ_T △B + 1 8 ∂_th^{ij} ∂_th_{ij} ) + 1 2 a^{−4}ζ_T ∂^i(∂_iB△B + 3∂^j B∂_i∂_j B) + 1 2 (a^{−2}∂^kh^{ij} ∂_kB − 3∂_th^{ij} ζ_T )a^{−2}∂_i∂_j B − 1 4 a^{−2}∂_th^{ij} ∂_kh_{ij} ∂^kB ] . (85)

When B is eliminated by using (84), one can easily see that the quadratic part I^{(2)}_{kin} written in terms of ζ̃_T =

√_{2(3λ−1)} λ−1 ζ_T is regular. On the other hand, the cubic part I^{(3)}_{kin} written in terms of ζ̃_T is divergent in the limit λ → 1. Thus, the perturbative expansion breaks down in this limit. More precisely, the regime of validity of the standard perturbative expansion is |ζ_T | ≪ min(|λ − 1|, 1), (86) and disappears in the λ → 1 limit.

Evidently, the breakdown of the standard perturbative expansion in the λ → 1 limit originates from the denominator λ − 1 in the solution (84) to the linearized momentum constraint.

B. Transformation from transverse to synchronous gauge

In the standard perturbative approach summarized in the previous subsection, we have adopted the transverse gauge (82). Instead, in the nonperturbative approach based on the gradient expansion presented in Sec.III, we have adopted the synchronous gauge (25). In this subsection, we shall investigate the spatial coordinate transformation between the two gauges. (Note that in both gauges the space-independent time reparametrization is already fixed by the condition N = 1.) The transformation is nonlinear but we treat it perturbatively. As we shall see below, this provides an alternative way to see the breakdown of the standard perturbative expansion.

As described in Appendix B, we start with the transverse gauge, carry out the spatial gauge transformation to the synchronous gauge, and use the momentum constraint (in the transverse gauge) to eliminate the nondynamical degree of freedom. In this way, we can express the perturbation in the synchronous gauge in terms of that in the transverse gauge. Up to the second order, the result is ζ = − 2 3 1 λ − 1 { ζ_T − (3 λ − 1) (λ − 1)

(∂_iζ_T ) (∂^i△^{−1}ζ_T ) +

(3 λ − 1) (λ − 1) ∫_t dt^′ (∂_iζ_T ) ( ∂^i △^{−1}∂_t′ ζ_T )

− (3 λ − 1) 2 (λ − 1) ∫_t dt^′△^{−1} [ 2 (∂^i△ζ_T )(∂_i△^{−1}∂_t′ ζ_T ) + ( ∂^i∂^j ζ_T + 1 2 △h^{ij} ) (∂_i∂_j △^{−1}∂_t′ ζ_T ) + (△ζ_T )(∂_t′ ζ_T ) ]

+ 1 4 ∫_t dt^′ △^{−1} [ 1 2 (∂_i∂_t′ h_{jk} )(∂^ih_{jk}) + 1 2 (∂_t′ h^{ij} )(△h_{ij} ) − 3 (∂_i∂_j ζ_T )(∂_t′ h^{ij} ) ] + O(ϵ̄^3) } , (87)

where ζ is the perturbation in the synchronous gauge defined in (19), ζ_T and h_{ij} are the metric perturbations in the transverse gauge defined in (82). One can easily see that the terms quadratic in ζ_T are suppressed with respect to the linear term under the condition (86).

Conversely, for a fixed amplitude of ζ_T , the expansion with respect to ϵ̄ in (87) breaks down in the λ → 1 limit. This is very similar to the way how the standard perturbative expansion of the action (85) breaks down in the λ → 1 limit. It is apparent from the intermediate steps of the calculation (shown explicitly in Appendix B) that the terms with negative powers of (λ − 1) are introduced by the solution of the momentum constraint.

C. Linear vs nonlinear terms in the momentum constraint

Having understood that the origin of the breakdown of the standard perturbative expansion is the treatment of the momentum constraint, we now discuss the regime of validity of the standard perturbative expansion in the momentum constraint. Importantly, we shall see that a new branch of solution emerges at the edge of the regime of validity of the standard perturbative expansion.

For this purpose, we adopt the transverse gauge (82) and expand the momentum constraint with respect to ζ_T and h_{ij} , considering them as small quantities but keeping B and n_i as nonlinear quantities^2:

ζ_T = O(q), h_{ij} = O(q), B = O(q^0), n_i = O(q^0), (88)

where we have introduced a small parameter q to count the order of perturbations ζ_T and h_{ij} . In the absence of the scalar field, the momentum constraint is [26]

0 = H_j ≡ ∂_j A^j_i + 3 A^j_i ∂_j ζ_T − 1 2 A^j_l (γ^{−1})^{lk} ∂_iγ_{jk} − 1 3 (3λ − 1) ∂_iK, (89)

where γ_{ij} = (e^h)_{ij} , (γ^{−1})^{ij} = (e^{−h})^{ij} , while the trace of the extrinsic curvature (21) becomes

K = 3 ( ∂_⊥ζ_T + ∂_ta Na ) − 1 N ∂_i [ (g^{−1})^{ij} N_j ] = 3H − a^{−2}△B + 3∂_tζ_T + a^{−2} [ −(∂^kζ_T )(∂_kB) + 2ζ_T △B + h^{kl}∂_k∂_lB ] +O(q) × n_k + O(q^2), (90)

and the traceless part (22) is

A^j_i = 1 2 (γ^{−1})^{jk} ∂_⊥γ_{ki} − 1 2N { (γ^{−1})^{jk} γ_{il}∂_k [ (g^{−1})^{lm}N_m ] + ∂_i [ (g^{−1})^{jk} N_k ] − 2 3 δ^j_i ∂_k [ (g^{−1})^{kl}N_l ] }

= 1 2 ∂_th^j_i − 1 a^2 { 1 2 (∂^j n_i + ∂_in^j ) + ( ∂^j ∂_iB − 1 3 δ^j_i △B )}

+ 1 a^2 { (∂^j ζ_T )(∂_iB) + (∂_iζ_T )(∂^j B) + 2ζ_T (∂^j ∂_iB) − 2 3 δ^j_i [ (∂^kζ_T )(∂_k B) + ζ_T △B ] }

+ 1 a^2 { 1 2 ( ∂_ih^{jk} + ∂^j h^k_i − ∂^kh^j_i ) (∂_kB) + h^{jk}(∂_i∂_kB) − 1 3 δ^j_i h^{kl}(∂_k∂_lB) }

+O(q) × n_k + O(q^2). (91)

Here, it is understood that (g^{−1})^{ij} is the inverse of g_{ij} , that derivatives do not act beyond parentheses and that indices are raised and lowered by δ^{ij} and δ_{ij} . A straightforward calculation results in the following expansion of H_i,

H_i = − (3 λ − 1) ∂_i∂_tζ_T + O(q^2) − 1 2 a^2 [△ + O(q)] n_i + 1 a^2 { (λ − 1) [ δ^j_i △ + O(q) ] + ( 1 2 △h^j_i + ∂^j ∂_iζ_T + δ^j_i △ζ_T ) + O(q^2) } ∂_j B . (92)

Notice that in the above, no assumption is made for B and n_i, which are still considered to be nonlinear quantities. It is now clear that the leading term in the coefficient of B relies not only on the order of perturbations, but also on the value of λ − 1.

In the regime q ≪ min (1, λ − 1), the momentum constraint becomes a^{−2}△B = 3λ − 1 λ − 1 ∂_tζ_T + O(q^2) , n_i = O(q^2) , for q ≪ min (1, λ − 1) , (93)

2 Although the discussion in this subsection employs the transverse gauge, the general argument holds in any gauge. In particular, in the synchronous gauge, where B = n_i = 0, the issue arising in B gets transferred to the longitudinal part of h_{ij} . However, for the sake of clarity, we chose to keep find solutions for the nondynamical fields, gauging away the longitudinal mode instead.

and agrees with the result of the standard perturbative expansion (84). Naively using this expression in the action, then taking the λ → 1 limit would lead to breakdown of the standard perturbative expansion as already seen in (85) and (87).

On the other hand, if λ is sufficiently close to 1 and the condition

λ − 1 ≪ q ≪ 1 (94)

is met, then the coefficient of B in Eq.(92) is dominated by the O(q) terms instead of the O(λ − 1) term. Note that this is a nonlinear regime but is still consistent with the assumed smallness of the metric perturbations ζ_T and h_{ij} . In this regime, the constraint can be written as

H_j = − 2∂_j ∂_tζ_T + O(q^2) − 1 2 a^2

(△ + O(q)) n_j + 1 a^2 [ M^i_j + O(λ − 1) + O(q^2) ] ∂_iB , (95)

where we have defined M^i_j ≡ 1 2 △h^i_j + ∂^i∂_j ζ_T + δ^i_j △ζ_T = O(q) . (96)

The transverse part of the Eq.(95) can be found by evaluating ∂_{[k}H_{j]},

∂_{[k}△n_{j]} = (△h^i_{[j} )(∂_{k]}∂_iB) + (∂_{[k}△h^i_{j]})(∂_iB)

+2(∂^i∂_{[j} ζ_T )(∂_{k]}∂_iB) + 2(∂_{[k}△ζ_T )(∂_{j]}B) + O(q^2). (97)

On the other hand, the longitudinal part can be computed from ∂^j H_j as

− 2 △ ∂_tζ_T + 1 a^2

M̄ B = 0 , (98)

where we define the operator M̄ as,

M̄ ≡ M^{ij} ∂_i∂_j + 2 (∂^i△ζ_T ) ∂_i . (99)

If this operator is invertible, then we obtain

B = 2 a^2 M̄^{−1} △∂_tζ_T + O ( λ − 1 q ) + O(q) . (100)

We note that either the (λ − 1)/q or q term can provide the largest correction to B, depending on the value of λ − 1.

In summary, we have seen that there are two branches of solutions to the momentum constraint, depending on the value of λ − 1. One is (93) in the linear regime, and the other is (100) in the nonlinear regime. The standard perturbative expansion in the previous subsections corresponds to the solution (93). On the other hand, what is relevant for the nonperturbative recovery of GR (plus “dark matter”) in the λ → 1 limit is the solution (100). The two regimes are mutually exclusive.

D. Yet another consideration

In the previous subsection we have seen that there are two mutually exclusive branches of solution to the momentum constraint. This explains the reason why the standard perturbative approach breaks down in the λ → 1 limit and why the theory itself can be still regular and continuous in the limit.

For λ away from 1, the standard perturbative expansion is valid in the transverse gauge and we have the expansion of the kinetic action as given in subsection IV A. On the other hand, for λ sufficiently close to 1, i.e. in the regime (94), it is the nonlinear solution (100) that should be substituted to the kinetic action.

Unlike the kinetic action, the potential part of the action does not depend on λ, when written in terms of ζ_T and h_{ij} . This is because B does not appear in the potential part of the action. Therefore, if we could somehow define a field ζ_c in such a way that the series of terms in the kinetic action for ζ_T sums up to form a standard canonical kinetic term for ζ_c, then the whole action written in terms of ζ_c should remain finite in the λ → 1 limit. Since each term in the kinetic action (after eliminating B) includes exactly two time derivatives, such a field redefinition should be possible in principle. In practice, however, the field redefinition is not easy to perform since it would be nonlinear and highly nonlocal in space. Nonetheless, this consideration already suggests that the λ → 1 limit should be regular and continuous nonperturbatively.

V. SUMMARY AND DISCUSSION

In this paper, we have performed a fully nonlinear analysis of superhorizon perturbations in the HL gravity coupled to a scalar field, by using the gradient expansion technique [27]. After applying the long wavelength expansion to the set of field equations, we integrated these explicitly to the second order. We then showed that the solutions can be extended to any order in gradient expansion, while satisfying the momentum constraint at each order. These solutions are continuous in the GR limit λ → 1 for any order in the expansion, both in the gravity sector, which consists of the “dark matter as an integration constant”, and in the matter sector, which contains a scalar field in the present work. The form of the equations suggests that our qualitative result should remain the same when additional matter fields are introduced.

This is in sharp contrast with the results obtained in the framework of the “standard” (and naive) perturbation theory, in which pathologies such as divergences and strong coupling are found in the λ → 1 limit [20, 21]. We determined that the results of the standard perturbative expansion are valid only in the region where |λ − 1| is larger than the order of perturbations. In other words, the range of validity (86) of these solutions has zero measure in the limit λ → 1. We found that the divergences are originating from the momentum constraint, where the coefficients of the terms linear in perturbations vanish in the λ → 1 limit. Thus, for sufficiently small but nonvanishing |λ − 1|, the linear terms become less important in comparison to the nonlinear ones. Neglecting nonlinear terms and naively solving the linearized momentum constraint, then taking the λ → 1 limit turns out to be the main source of the said pathologies. Once their origins were understood, we carried out a detailed analysis of the nonlinear momentum constraint in the perturbative approach. In addition to the known result which is valid when |ζ| ≪ min(|λ − 1|, 1), we found a second branch of solution valid in the regime where |λ − 1| ≪ |ζ| ≪ 1). The presence of the latter solution justifies the recovery of GR obtained in our nonperturbative approach, in the λ → 1 limit.

Our results, together with the similar examples studied in [6, 26], discernibly support that the apparent strong coupling found previously in the HL gravity may only indicate the breakdown of the treatment based on the naive perturbative expansion but not of the theory itself. General relativity should be recovered by nonlinear effects, analogously to the Vainshtein mechanism [24] that were first encountered in the massive gravity theories.

We note that the present analysis was limited to the discussion of the classical (and superhorizon) evolution of perturbations; their quantum mechanical origin were not considered. In contrast, in Ref.[29], the HL gravity in the λ → ∞ limit was found to be weakly coupled under a certain condition, and the spectrum of perturbations that were generated from quantum fluctuations was calculated in this limit. However, the presence of regular behavior both in λ → ∞ and in λ → 1 limits is not sufficient to draw conclusions on the transition between the two regimes. This is because of our lack of an understanding on the details of the renormalization group (RG) flow. Specifically, to be able to match these two results, one needs to define a conserved quantity (like the comoving curvature perturbations in relativistic cosmology). However, since the matching involves a wide range of varying λ, one needs to know how the flow of λ is realized and how such a flow affects the evolution of cosmological perturbations. With these considerations, we refrain from exploring the cosmological implications of our results for now.

On the other hand, a quantum mechanical extension of our analysis may have a chance to address such issues. One of the major concerns with a proper renormalization analysis in HL gravity is the strong coupling problem in the λ → 1 limit, or more specifically, the breakdown of the perturbative expansion. However, we have shown in Sec. IV C that the full nonlinear analysis in the limit λ → 1 is still consistent with small perturbations, except for the nondynamical mode B which becomes nonlinear. The solution to the momentum constraint in the two regimes, (93) and (100), gives the nondynamical mode as

B ≃ {_{3λ−1λ−1} a_2△_{−1}∂_tζ = O(ζ) , for |ζ| ≪ min(λ − 1, 1)

2 a^2 M̄^{−1} △∂_tζ = O(1) , for λ − 1 ≪ |ζ| ≪ 1

. (101)

Note that both cases are compatible with small ζ. Thus, substituting this nonlinear solution for B in the action, then applying the perturbative expansion for ζ may provide a healthy perturbative action. (However, the reduced action is nonlocal in space while it is local in time).

We also note that the breakdown of the naive perturbative expansion does not necessarily result in loss of renormalizability. We know that in the regime |ζ| ≪ min(λ − 1, 1), the leading UV contributions in the action are invariant under the scaling (1) with z = 3, provided that the scalar graviton is assigned a vanishing scaling dimension, i.e. ζ → ζ. This fact is nothing but the power-counting renormalizability of the theory, and is seen after replacing B in the action with the linear solution (93), or the first line of (101). Note also that coefficients of all possible terms in the perturbative expansion are expressed in terms of 11 coupling constants in the action (4). On the other hand, for the regime λ − 1 ≪ |ζ| ≪ 1, we need to replace B in the action with the nonlinear solution (100), or the second line of (101). What is important here is that the scaling dimension of B from the nonlinear solution and that from the linear solution are exactly the same: B → b B under the scaling (1) with z = 3 in both cases. Therefore, after substituting the nonlinear solution to B in the action, we still conclude that the leading UV contributions in the action are invariant under the scaling (1) with z = 3, provided that the scalar graviton is assigned a vanishing scaling dimension. In other words, the conditions for power-counting renormalizability of the theory continue to hold in the nonlinear regime.

In the present paper, we have considered the projectable version of the HL theory and showed that the general relativity (plus dark matter) is safely recovered in the λ → 1 limit. If we relax the projectability condition and thus allow the lapse function to depend on spatial coordinates then we should include as the building blocks of the theory not only g_{ij} , K_{ij} , D_i and R_{ij} but also a_i ≡ ∂_i ln(N) (with [a_i] = [k]^1 for z = 3) [17]. This gives rise to a proliferation of independent coupling constants. For example, for the minimal value of the dynamical critical exponent z = 3, the number of independent terms in the gravitational action of the non-projectable extension turns out to be more than 70 [22]. In some regime of parameters, the non-projectable extension is claimed to be free from the breakdown of the standard perturbative expansion method in the λ → 1 limit, while in other regime the expansion breaks down. It is certainly worthwhile performing a nonperturbative analysis of the non-projectable theory in the regime of parameters where the standard perturbative expansion breaks down and then identifying the observationally viable regime of parameters.

There is yet another extension of the HL theory, with an additional local U(1) symmetry, U(1) ⋉ Diff(M, F) [30]. It has been shown that the standard perturbative expansion does not break down in the gravitational sector, but does break down in the matter sector, at least apparently [31] (see also [32–36] for more on this extension). It is intriguing to see if a nonperturbative analysis similar to those presented in the present paper can resolve this problem.

Finally, the biggest obstacle in front of the HL gravity, and in general, any Lorentz symmetry breaking theory, is the restoration of the Lorentz invariance in the matter sector at low energies [37, 38]. Even if the Lorentz violation is restricted only to the gravity sector, the radiative corrections from graviton loops will generate Lorentz violation in the matter sector. Such terms can be under control provided that the Lorentz breaking scale is much lower than the Planck scale [39]. Another approach is to introduce a mechanism, or symmetry to suppress the Lorentz violating operators at low energies, such as supersymmetry [40]. Such an approach was adopted in [41] where a SUSY theory with anisotropic scaling was constructed. On the other hand, this seems to be a highly nontrivial task for the case of interacting models [42, 43].

Acknowledgments

Part of this work was done during AW’s visit at IPMU, the University of Tokyo, Kashiwa. He would like to express his gratitude to the Institute for stimulating atmosphere and warm hospitality. The work of A.E.G. and S.M. was supported by the World Premier International Research Center Initiative (WPI Initiative), MEXT, Japan. S.M. also acknowledges the support by Grant-in-Aid for Scientific Research 17740134, 19GS0219, 21111006, 21540278, by Japan-Russia Research Cooperative Program. AW is supported in part by DOE Grant, DE-FG02-10ER41692.

Appendix A: Order O(ϵ^{n+1}) momentum constraint for n ≥ 2

In this Appendix, we prove by induction that the order O(ϵ^n) solution (73)–(77) satisfies the order O(ϵ^{n+1}) momentum constraint equation (52) for n ≥ 2.

The proof extends the method presented in Ref.[26] to include a scalar field source: we rewrite the left hand side of the (n + 1)-th order constraint (52) as a linear combination of lower order constraints by using the explicit solution (73)–(77). To achieve this, we make use of the generalized Bianchi identity (55) as well as the identities in Eq.(56). We also use the following identity for functions f(t) and g(t) satisfying a^3(t_{in}) f(t_{in}) g(t_{in}) = 0, f(t) g(t) = 1 a^3(t) ∫_t t_{in}

dt^′ a^3(t^′) [ a(t^′)^{−3}∂_t′ (a^3(t^′) f(t^′)) · g(t^′) + f(t^′) · ∂_t′ g(t^′) ] . (A1)

By applying the identity (A1) to (f(t), g(t)) = (A^{(p) j}_i, ∂_j ζ^{(n−p)}), (f(t), g(t)) = (A^{(p) j}_l, (γ^{−1})^{(q) lk}∂_iγ^{(n−p−q)}_{jk} ) and (f(t), g(t)) = (∂_tϕ^{(p)}, ∂_iϕ^{(n−p)}), the left hand side of the (n + 1)-th order momentum constraint equation (52) is rewritten as

C^{(n+1)} i ≡ ∂_j A^{(n) j}_i + 3 n∑ p=1 A^{(p) j}_i∂_j ζ^{(n−p)} − 1 2 n∑ p=1 n−p∑ q=0 A^{(p) j}_l(γ^{−1})^{(q) lk}∂_iγ^{(n−p−q)}_{jk}

− 1 3 (3 λ − 1)∂_i ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 ) − n−1∑ p=1 ∂_tϕ^{(p)}∂_iϕ^{(n−p)}

= ∂_j A^{(n) j}_i + 1 a^3(t) ∫_t t_{in}

dt^′a^3(t^′) { 3 n∑ p=1 [ a^{−3}∂_t′ ( a^3A^{(p) j}_i ) ∂_j ζ^{(n−p)} + A^{(p) j}_i∂_j ( ∂_t′ ζ^{(n−p)} )]

− 1 2 n∑ p=1 n−p∑ q=0 [ a^{−3}∂_t′ ( a^3A^{(p) j}_l ) (γ^{−1})^{(q) lk} ∂_iγ^{(n−p−q)} jk + A^{(p) j}_l∂_t′ ( (γ^{−1})^{(q) lk} ) ∂_iγ^{(n−p−q)} jk

+A^{(p) j}_l(γ^{−1})^{(q) lk} ∂_i ( ∂_t′ γ^{(n−p−q)} jk )] − n−1∑ p=1 [ a^{−3}∂_t′ (a^3∂_t′ ϕ^{(p)})∂_iϕ^{(n−p)} + ∂_t′ ϕ^{(p)}∂_t′ ∂_iϕ^{(n−p)} ]}

− 1 3 (3 λ − 1)∂_i ( K^{(n)} +

3 ϕ^{(n)}∂_tϕ^{(0)} 3 λ − 1 ) . (A2)

Using Eqs.(73)–(74), (48)–(50) and (54), this is further rewritten as

C^{(n+1)} i = 1 a^3(t) ∫_t t_{in}

dt^′a^3(t^′) { ∂_j ( − n−1∑ p=1 K^{(p)}A^{(n−p) j}_i )

+3 [_n ∑ p=2 ( − p−1∑ q=1 K^{(q)}A^{(p−q) j}_i ) ∂_j ζ^{(n−p)} + n−1∑ p=1 A^{(p) j}_i∂_j ( 1 3 K^{(n−p)} )]

− 1 2 n∑ p=1 n−p∑ q=0 [( − p−1∑ r=1 K^{(r)}A^{(p−r) j}_l ) (γ^{−1})^{(q) lk} ∂_iγ^{(n−p−q)} jk

+A^{(p) j}_l ( −2 q∑ r=1 A^{(r) l}_m(γ^{−1})^{(q−r) mk} ) ∂_iγ^{(n−p−q)} jk

+A^{(p) j}_l(γ^{−1})^{(q) lk}∂_i ( 2 n−p−q−1 ∑ r=0 γ^{(r)}_{jm}A^{(n−p−q−r) m}_k )]

− 1 6 (3 λ − 1)∂_i ( − n−1∑ p=1 K^{(p)}K^{(n−p)} ) − 1 2 ∂_i ( − n−1∑ p=1 A^{(p) j}_kA^{(n−p) k}_j )

+ n−1∑ p=1 p∑ q=1 K^{(q)}∂_t′ ϕ^{(p−q)}∂_iϕ^{(n−p)} + 1 6 n∑ p=1 Z̄^{(p)} n−p∑ q=0 (γ^{−1})^{(q) jk} ∂_iγ^{(n−p−q)} jk } , (A3)

where we have used the generalized Bianchi identity (55). By using the identities (56) we finally obtain

C^{(n+1)} i = − 1 a^3(t) ∫_t t_{in}

dt^′a^3(t^′) n−1∑ p=1 K^{(n−p)}C^{(p+1)}_i . (A4)

Since the O(ϵ^2) constraint in Eq. (71) is already satisfied, i.e. C^{(2)}_i = 0, the above relation implies that C^{(n+1)} = 0 for n ≥ 2.

Appendix B: Expansion of the nonlinear perturbations

Here, we present the detail of the calculations to obtain the expression of ζ in terms of ζ_T and h_{ij} , given in Eq.(87). While the former ζ is defined in the synchronous gauge N_i = 0, the latter ζ_T and h_{ij} are defined in in the transverse gauge δ^{ik} ∂_kh_{ij} = 0. In both gauges, the freedom in the time coordinate is fixed by the choice N = 1. For the perturbative expansion of the spatial metric, we use

g_{ij} = a^2 e^{2 ζ} ( e^h ) ij = a^2δ_{ij} + ( a^2 (2 ζδ_{ij} + h_{ij} ) ) + [ a^2 2 ( 4 ζ^2δ_{ij} + 4 ζh_{ij} + h_{il}h^l_j ) ] + O(ϵ̄^3) , (B1)

where ϵ̄ denotes the order of perturbations and the indices of h_{ij} are raised and lowered with Kronecker delta. Throughout this Appendix, when the expansion of a quantity is shown, the terms outside parentheses, in parentheses and in square brackets are of order ϵ̄^0, ϵ̄^1 and ϵ̄^2, respectively.

1. Expansion of the momentum constraint

We first concentrate on the linear perturbation in the transverse gauge. To remove the nondynamical degrees in the shift vector, we solve the constraint equation order by order. We expand the shift vector while separating the contributions from each order, as

N_i = ( ∂_i B^{(1)} + N^{T (1)}_i ) + [ 1 2 ( ∂_i B^{(2)} + N^{T (2)}_i ) ] + O(ϵ̄^3) (B2)

With these decompositions, we expand the momentum constraint in vacuum

H_j ≡ D_iK^i_j − λ ∂_j K = 0 , (B3)

as a series in perturbations. At first order, we get

H^{(1)}_j = − (3 λ − 1) ∂_j ∂_tζ_T + λ − 1 a^2

∂_j △B^{(1)} − 1 2 a^2

△N^{T (1)}_j , (B4)

which can be solved by

△B^{(1)} =

3 λ − 1 λ − 1 a^2 ∂_tζ_T , N^{T (1)}_i = 0 . (B5)

Using the second of these results, the next order constraint yields,

H^{(2)}_j = (λ − 1) ∂_j [ 1 2 △B^{(2)} + (∂^kζ_T ) (∂_k B^{(1)}) − 2 ζ_T △B^{(1)} − h^{kl}∂_k∂_lB^{(1)} ]

+ a^2 4 [ (∂_th^{kl})(∂_k h_{lj} ) − h^{kl}∂_k∂_th_{lj} − (∂_th^{kl})(∂_j h_{kl}) ] + 3 a^2 2 (∂^kζ_T ) (∂_th_{kj} )

+(∂_k∂_j ζ_T ) (∂^kB^{(1)}) + (△ζ_T ) (∂_j B^{(1)}) + 1 2 (△h_{kj} )(∂^kB^{(1)}) − 1 4 △N^{T (2)}_j = 0 . (B6)

For the following, only the longitudinal part of this relation is needed; by taking its divergence, then using the first equation of (B5), we end up with

△B^{(2)} = 2 a^2 ( 3 λ − 1 λ − 1 ) [ 2 ζ_T ∂_tζ_T + h^{ij} ∂_i∂_j △^{−1}∂_tζ_T − (∂^iζ_T ) (∂_i△^{−1}∂_tζ_T ) ]

− 2 a^2 (3 λ − 1)

(λ − 1)^2 △^{−1} [ 2 (∂^i△ζ_T )(∂_i△^{−1}∂_tζ_T ) + ( ∂^i∂^j ζ_T + 1 2 △h^{ij} ) (∂_i∂_j △^{−1}∂_tζ_T ) + (△ζ_T ) (∂_tζ_T ) ]

+ a^2 λ − 1 △^{−1} [ 1 2 (∂_i∂_th_{jk} ) (∂^ih^{jk} ) + 1 2 (∂_th_{ij} ) (△h^{ij} ) − 3 (∂_i∂_j ζ_T ) (∂_th^{ij} ) ] . (B7)

2. Coordinate transformations

Next, we determine the transformation between the transverse and synchronous gauges. We parametrize the coordinate transformation as

x̃^μ = x^μ + ( ξ^{(1) μ} ) + [ 1 2 (ξ^{(1) ν} ∂_ν ξ^{(1) μ} + ξ^{(2) μ}) ] + O(ϵ̄^3) , (B8) where over-tilde denotes quantities in the synchronous gauge. The parameters ξ^{(n) μ} are decomposed as

ξ^{(n) μ} = ( 0, ξ^{(n) i} + ∂^iξ^{(n)} ) , (B9)

with ∂_iξ^{(n) i} = 0, while the indices of ξ^{(n) i} are raised and lowered by δ^{ij} and δ_{ij} . For any tensor field expanded as

T = T^{(0)} + ( δT ) + [ 1 2 δ^2T ] + O(ϵ̄^3) , (B10)

the transformation at linear and quadratic order proceeds through [44]

~δT = δT + £_{ξ(1)} T^{(0)} , ~δ2T = δ2T + 2 £_{ξ(1)} δT + £2_{ξ(1)} T (0) + £_{ξ(2)} T (0) . (B11)

For the metric tensor, the transformations become

~δg_{μν} = δg_{μν} + g^{(0)}_{μσ} ∂_ν ξ^{(1) σ} + g^{(0)}_{νσ} ∂_μξ^{(1) σ} , ~ δ^2g_{μν} = δ^2g_{μν} + 2 ( ξ^{(1) σ} ∂_σ δg_{μν} + δg_{μσ} ∂_ν ξ^{(1) σ} + δg_{νσ} ∂_μξ^{(1) σ} )

+g^{(0)}_{μσ} ∂_ν ( ξ^{(1) ρ}∂_ρξ^{(1) σ} ) + g^{(0)}_{νσ} ∂_μ ( ξ^{(1) ρ}∂_ρξ^{(1) σ} ) + 2 g^{(0)}_{ρσ} (∂_μξ^{(1) σ} )(∂_ν ξ^{(1) ρ})

+g^{(0)}_{μσ} ∂_ν ξ^{(2) σ} + g^{(0)}_{νσ} ∂_μξ^{(2) σ} . (B12)

We now determine the transformation ξ^μ needed to go from the transverse gauge to the synchronous gauge. For this, we evaluate the 0i components of (B12) and set ~δg_{0i} = 0. At first order, we obtain,

∂_iB^{(1)} + N^{T (1)}_i + a^2 ( ∂_i∂_tξ^{(1)} + ∂_tξ^{(1)}_i ) = 0 , (B13)

where the transverse and longitudinal parts can be easily separated to give,

ξ^{(1)} = − ∫_t dt^′ B^{(1)}(t^′) a^2

, ξ^{(1)}_i = − ∫_t dt^′ N^{T (1)}_i (t^′)

a^2

. (B14)

Using the solutions (B5) to the linear momentum constraint, the transformation parameters become

ξ^{(1)} = −

3 λ − 1 λ − 1 △^{−1} ζ_T , ξ^{(1)}_i = 0 . (B15)

Similarly, the 0i component of the second order transformation (B12) gives,

∂_iB^{(2)} +N^{T (2)}_i +a^2 ( ∂_i∂_tξ^{(2)} + ∂_tξ^{(2)}_i ) +(∂^j ξ^{(1)}) (∂_i∂_j B^{(1)})−(∂_i∂^j ξ^{(1)}) (∂_j B^{(1)})−4 ζ_T ∂_iB^{(1)}−2 h_{ij} ∂^j B^{(1)} = 0 , (B16)

where we used the second equation of (B15). Using also the first equation of (B15) as well as the first order constraint (B5), the longitudinal part of the second order transformation can be obtained as

△ξ^{(2)} = − ∫_t dt^′ △B^{(2)}

a^2 + ( 3 λ − 1 λ − 1 )_2 ( ∂^iζ_T ) ( ∂_i△^{−1}ζ_T ) + 2 ( 3 λ − 1 λ − 1 ) ζ^2_T +2 ( 3 λ − 1 λ − 1 ) ∫_t dt^′ [ h^{ij} ∂_i∂_j △^{−1}∂_t′ ζ_T − ( λ + 1 λ − 1 ) (∂^iζ_T ) ( ∂_i△^{−1}∂_t′ ζ_T ) ] . (B17)

Inserting the expression of B^{(2)} from (B7) into the above expression, we finally obtain

△ξ^{(2)} = ( 3 λ − 1 λ − 1 )_2 ( ∂^iζ_T ) ( ∂_i△^{−1}ζ_T ) − 4 (3 λ − 1) (λ − 1)^2 ∫_t dt^′ (∂_iζ_T ) (∂^i△^{−1}∂_t′ ζ_T ) + 2 (3 λ − 1) (λ − 1)^2 ∫_t dt^′△^{−1} [ 2 (∂^i△ζ_T )(∂_i△^{−1}∂_t′ ζ_T ) + ( ∂^i∂^j ζ_T + 1 2 △h^{ij} ) (∂_i∂_j △^{−1}∂_t′ ζ_T ) + (△ζ_T )(∂_t′ ζ_T ) ]

− 1 λ − 1 ∫_t dt^′ △^{−1} [ 1 2 (∂_i∂_t′ h_{jk})(∂^ih_{jk} ) + 1 2 (∂_t′ h^{ij} )(△h_{ij} ) − 3 (∂_i∂_j ζ_T )(∂_t′ h^{ij} ) ] . (B18)

We note that the second order gauge transformation is more divergent than the first order one (B15), in the limit λ → 1. Finally, we calculate the field ζ in the synchronous gauge. Since we adopted a nonperturbative decomposition for the spatial metric, it is useful to express this quantity as, ζ = 1 6 log ( det g̃ a^6 ) . (B19)

Applying the perturbative expansion to the right hand side, we obtain ζ = ( 1 6 a^2 ~δg_{ii} ) + [ 1 12 a^2 ( ~ δ^2g_{ii} − 1 a^2 ~δg_{ij} ~δg_{ij} )] + O(ϵ̄^3) . (B20)

Using the transformed metric from (B12), the above expression becomes ζ = ( ζ_T + 1 3 △ξ^{(1)} ) + [ (∂^iζ_T ) (∂_iξ^{(1)}) + 1 6 (∂^iξ^{(1)}) (∂_i△ξ^{(1)}) + 1 6 △ξ^{(2)} ] + O(ϵ̄^3) . (B21)

Finally, using the transformations (B15) and (B18), we obtain Eq.(87), which relates the nonlinear perturbation ζ in the synchronous gauge to an expansion series of perturbations ζ_T and h_{ij} in the transverse gauge.

[1] P. Hořava, Phys. Rev. D 79, 084008 (2009) [arXiv:0901.3775]. [2] K.S. Stelle, Phys. Rev. D16, 953 (1977).

[3] E.M. Lifshitz, Zh. Eksp. Teor. Fiz. 11, 255; 269 (1941). [4] M. Visser, Phys. Rev. D80, 025011 (2009).

[5] R. Arnowitt, S. Deser, and C. W. Misner, The dynamics of general relativity, in Gravitation: An Introduction to Current Research, L. Witten, edited (Wiley, New York, 1962), p. 227.

[6] S. Mukohyama, Class. Quant. Grav. 27, 223101 (2010) [arXiv:1007.5199].

[7] D. Blas, O. Pujolas, and S. Sibiryakov, JHEP, 1104, 018 (2011) [arXiv.1007.3503]; A. Padilla, J. Phys. Conf. Ser. 259, 012033 (2010) [arXiv:1009.4074]; T.P. Sotiriou, J. Phys. Conf. Ser. 283, 012034 (2011) [arXiv:1010.3218]; P. Hořava, Class. Quantum Grav. 28, 114012 (2011) [arXiv:1101.1081]; T. Clifton, P.G. Ferreira, A. Padilla, and C. Skordis, arXiv:1106.2476.

[8] G. Calcagni, JHEP, 09, 112 (2009) [arXiv:0904.0829]; R. Brandenberger, Phys. Rev. D80, 043516 (2009) [arXiv:0904.2835];

A. Wang and Y. Wu, JCAP, 07, 012 (2009) [arXiv:0905.4117]; Y. Misonoh, K. -i. Maeda, T. Kobayashi, [arXiv:1104.3978 [hep-th]].

[9] E. Kiritsis and G. Kofinas, Nucl. Phys. B821, 467 (2009). [10] S. Mukohyama, JCAP 0909, 005 (2009). [arXiv:0906.5069 [hep-th]]. [11] S. Mukohyama, JCAP 0906, 001 (2009). [arXiv:0904.2190 [hep-th]].

[12] S. Maeda, S. Mukohyama and T. Shiromizu, Phys. Rev. D80, 123538 (2009) [arXiv:0909.2149]. [13] S. Mukohyama, K. Nakayama, F. Takahashi and S. Yokoyama, Phys. Lett. B679, 6 (2009) [arXiv:0905.0055]. [14] S. Mukohyama, Phys. Rev. D80, 064005 (2009) [arXiv:0905.3563]; [15] T. Takahashi and J. Soda, Phys. Rev. Lett. 102, 231301 (2009) [arXiv:0904.0554].

[16] T. P. Sotiriou, M. Visser, and S. Weinfurtner, Phys. Rev. Lett. 102, 251601 (2009) [arXiv:0904.4464]; J. High Energy Phys., 10, 033 (2009) [arXiv:0905.2798].

[17] D. Blas, O. Pujolas, and S. Sibiryakov, Phys. Rev. Lett. 104, 181302 (2010) [arXiv:0909.3525]; Phys. Lett. B688, 350 (2010) [arXiv:0912.0550].

[18] C. Bogdanos, and E. N. Saridakis, Class. Quant. Grav. 27, 075005 (2010) [arXiv:0907.1636]; A. Wang and R. Maartens, Phys. Rev. D81, 024009 (2010) [arXiv:0907.1748].

[19] Y.-Q. Huang, A. Wang, and Q. Wu, Mod. Phys. Lett. 25, 2267 (2010) [arXiv:1003.2003]; A. Wang, Mod. Phys. Lett. A26, 387 (2011) [arXiv:1003.5152].

[20] A. Wang and Q. Wu, Phys. Rev. D83, 044025 (2011) [arXiv:1009.0268].

[21] C. Charmousis, G. Niz, A. Padilla, and P.M. Saffin, JHEP, 08, 070 (2009) [arXiv:0905.2579]; D. Blas, O. Pujolas, and S.

Sibiryakov, ibid., 03, 061 (2009) [arXiv:0906.3046]; K. Koyama and F. Arroja, ibid., 03, 061 (2010) [arXiv:0910.1998]; A. Papazoglou and T.P. Sotiriou, Phys. Lett. B685, 197 (2010) [arXiv:0911.1299].

[22] I. Kimpton and A. Padilla, JHEP, 07, 014 (2010) [arXiv:1003.5666]. [23] J. Polchinski, “Effective field theory and the Fermi surface,” arXiv:hep-th/9210046. [24] A. I. Vainshtein, Phys. Lett. B 39, 393 (1972).

[25] V.A. Rubakov and P.G. Tinyakov, Phys. -Uspekhi, 51, 759 (2008); E. Babichev, C. Deffayet, and R. Ziour, Phys. Rev.

Lett. 103, 201102 (2009) [arXiv:0907.4103]; arXiv:1007.4506.

[26] K. Izumi and S. Mukohyama, Phys. Rev. D84, 064025 (2011) [arXiv:1105.0246].

[27] D. S. Salopek and J. R. Bond, Phys. Rev. D 42, 3936 (1990); D. H. Lyth, K. A. Malik and M. Sasaki, JCAP 0505, 004 (2005) [arXiv:astro-ph/0411220].

[28] A. Wang, D. Wands, and R. Maartens, J. Cosmol. Astropart. Phys., 03, 013 (2010) [arXiv:0909.5167]; A. Borzou, K. Lin, and A. Wang, JCAP, 05, 006 (2011) [arXiv:1103.4366].

[29] A. E. Gumrukcuoglu and S. Mukohyama, Phys. Rev. D 83, 124033 (2011) [arXiv:1104.2087]. [30] P. Hořava and C.M. Melby-Thompson, Phys. Rev. D82, 064027 (2010) [arXiv:1007.2410]. [31] Y.-Q. Huang and A. Wang, Phys. Rev. D83, 104012 (2011) [arXiv:1011.0739]. [32] A.M. da Silva, Class. Quantum Grav. 28, 055011 (2011) [arXiv:1009.4885]. [33] A. Wang and Y. Wu, Phys. Rev. D83, 044031 (2011) [arXiv:1009. 2089]. [34] J. Kluson, Phys. Rev. D83, 044049 (2011) [arXiv:1011.1857].

[35] T. Zhu, Q. Wu, A. Wang, and F.-W. Shu, Phys. Rev. D84, 101502 (R) (2011) [arXiv:1108.1237]. [36] K. Lin, A. Wang, Q. Wu, and T. Zhu, Phys. Rev. D84, 044051 (2011) [arXiv:1106.1486]. [37] J. Collins, A. Perez, D. Sudarsky, L. Urrutia, H. Vucetich, Phys. Rev. Lett. 93, 191301 (2004). [gr-qc/0403053]. [38] R. Iengo, J. G. Russo, M. Serone, JHEP 0911, 020 (2009). [arXiv:0906.3477 [hep-th]]. [39] M. Pospelov and Y. Shang, arXiv:1010.5249 [hep-th].

[40] S. Groot Nibbelink and M. Pospelov, Phys. Rev. Lett. 94, 081601 (2005) [arXiv:hep-ph/0404271]; P. Jain, J. P. Ralston, Phys. Lett. B621, 213-218 (2005) [hep-ph/0502106].

[41] W. Xue, arXiv:1008.5102 [hep-th]. [42] D. Redigolo, arXiv:1106.2035 [hep-th].

[43] O. Pujolas and S. Sibiryakov, arXiv:1109.4495 [hep-th].

[44] M. Bruni, S. Matarrese, S. Mollerach and S. Sonego, Class. Quant. Grav. 14, 2585 (1997) [arXiv:gr-qc/9609040].