arXiv:1110.5075v3 [hep-th] 13 Jan 2012

MAD-TH-11-08

Hidden-sector current-current correlators in holographic gauge mediation

Paul McGuirk

Laboratory for Elementary-Particle Physics, Cornell University, Ithaca, New York, 14853, USA Department of Physics, University of Wisconsin-Madison, Madison, Wisconsin, 53706, USA

mcguirk@cornell.edu

We discuss gauge mediation in the case where the hidden sector is strongly coupled but, via the gauge-gravity correspondence, admits a weakly-coupled description in terms of a warped higherdimensional spacetime. In this framework, known as holographic gauge mediation, the visible-sector gauge group is realized in the gravitational description by probe D-branes and the non-supersymmetric state by normalizable perturbations to the geometry. Using the formalism of general gauge mediation, supersymmetry-breaking soft terms in the visible sector can be related to the two-point functions of the hidden-sector current superfield that couples to the visible-sector gauge group. Such correlation functions cannot be directly calculated in the strongly coupled field theory but can be determined using the gauge-gravity correspondence and holographic renormalization. We explore this procedure by considering a toy geometry where such two-point functions can be explicitly calculated. Unlike previous implementations of holographic gauge mediation where sfermion masses were not calculable directly in a purely holographic framework, such terms are readily obtained via these correlators, while (due to the simplicity of the geometry considered) the visible-sector gauginos remain massless to leading order in the visible-sector coupling.

Contents

1 Introduction 1

2 General gauge mediation 3

3 Geometric setup 5

4 5d effective field theory 9 4.1 On-shell theory from dimensional reduction 9 4.2 Off-shell theory from flat space 14

5 Supersymmetric current-current correlators 19 5.1 Massless messengers 19 5.2 Massive messengers 27

6 Non-supersymmetric correlators 30

7 Conclusions 36

A Conventions 37 A.1 Fermion conventions 37 A.2 Type-IIB supergravity 39

1 Introduction

The search for physics beyond the standard model is motivated in large part by the search for naturalness. In particular, the electroweak scale in the standard model is tied directly to the mass of a fundamental scalar and since the former exhibits an exponential hierarchy compared to the Planck scale (m_Z ∼ 10^{−16}m_P) while the latter is quadratically sensitive to short-wavelength physics, one is left either with the acceptance of an unnatural amount of fine tuning of classical effects against quantum effects or the acceptance of the existence of new physics.

One possibility for new physics is supersymmetry (SUSY) which addresses the electroweak hierarchy problem by tempering the quantum corrections to certain operators such as scalar masses. If the universe were in a supersymmetric state, then for every fermionic field there would be a bosonic field with the same charge and (in a Minkowski spacetime) same mass and vice-versa. The lack of discovery of such superpartners indicates that our universe is not in such a state. Nevertheless, if supersymmetry exists as a spontaneously broken symmetry, then the protection from quantum effects is to a large extent preserved.

In order for such a scenario to be phenomenologically viable, the spontaneous breaking of supersymmetry must not occur in the visible sector, e.g. the minimally supersymmetric standard model (MSSM), but within another set of fields. In a theory with finite m_P, this breaking will be communicated to the visible sector via quantum effects related to the superconformal anomaly [1] and classically by irrelevant operators which are generically expected to be present [2].

Whether or not gravity is present, the breaking of supersymmetry can also be mediated to the standard model via so-called messenger fields which transform under the visible-sector gauge group and

– 1 – couple to the sector in which supersymmetry is broken [3] (see also [4] for a review). This mechanism, known as gauge mediation, has the advantage that the effects of supersymmetry breaking respect the flavor structure of the visible sector, unlike mediation from irrelevant operators which will generically result in unacceptable flavor-changing neutral currents^1.

In any of these scenarios, the effects of the breaking of supersymmetry on the visible sector can be captured by so-called soft terms: operators in the effective Lagrangian of the visible-sector that do not reintroduce quadratic sensitivity on ultraviolet physics even though they do not respect supersymmetry. Since supersymmetry, if it exists as an underlying symmetry, is broken, all of the phenomenological implications of supersymmetry result from these soft terms (see [8] for reviews) and it is thus of clear importance to study them in various scenarios especially in light of the increasing experimental constraints on simple models.

In this work, we will focus on gauge mediation of supersymmetry breaking. Even within this class of scenarios, there are a number of possibilities based on the nature of the messenger sector. The minimal scenario involves messengers that are neutral under any gauge group of the SUSY-breaking sector, but couple to the SUSY-breaking-sector fields through superpotential operators. In direct gauge mediation scenarios, such as those in [9] the messenger fields are charged under SUSY-breaking-sector gauge groups, and indeed there is little distinction between the SUSY-breaking sector and the messenger sector. Semi-direct models are a compromise between these two scenarios in which the messenger sectors couple to the SUSY-breaking sector (in the original semi-direct proposal [10], the messengers had only gauge couplings to the SUSY-breaking sector) but do not participate in the breaking of supersymmetry.

In [11] (see also [12–14]), a general framework for gauge mediation scenarios was presented. In the limit where the visible-sector gauge couplings are taken to zero, the visible-sector gauge group is realized as a global symmetry of the messenger and SUSY-breaking sectors, which together compromise the hidden sector. In models of gauge mediation, the hidden sector and visible sector decouple in this limit. The conserved hidden-sector current j_μ corresponding to this global symmetry is a component field of a linear superfield J which contains also a scalar component and a spinor component. It was shown in [11] that once the visible-sector gauge group becomes weakly gauged, visible-sector soft terms arise and can be given in terms of two-point functions of these currents^2.

Although the couplings between the visible and hidden sectors are small, the hidden sector itself may be strongly coupled and such current-current correlators cannot be directly calculated. However, certain strongly coupled gauge theories admit a weakly coupled dual description in terms of a classical gravitational theory on a curved spacetime of higher dimension [15] (see [16] for reviews). This duality, known as (non-)AdS/(non-)CFT or the gauge-gravity correspondence, is the best understood example of the holographic principle [17]. If the gauge theory is supersymmetric, then a non-supersymmetric state can be constructed by considering particular perturbations to the geometry. For example, it was argued in [18] that the addition of a small number of anti-branes to the geometry of Klebanov and Strassler [19] is dual to the preparation of a metastable non-supersymmetric state in a particular^3 N_4 = 1 gauge theory^4.

1Although anomaly mediation also respects this flavor structure, it leads to spontaneous breaking of U (1)_{em} unless supplemented by comparable contributions from gauge mediation [5], mediation from irrelevant operators [6], or both [7].

2An important exception to this in the MSSM is the Lagrangian-level operator BμH_uH_d (where H_u and H_d are the two Higgs doublets of the MSSM and μ appears in the analogous superpotential coupling), which must be treated differently as in [13].

3N_D denotes the amount of supersymmetry in D spacetime dimensions. Hence, N_4 = 1 has four supercharges while both N_4 = 2 and N_5 = 1 have eight supercharges.

4See, however, [20] for possible concerns with this procedure.

– 2 –

In the limit of vanishing visible-sector gauge coupling, the visible-sector gauge group becomes a global symmetry. If the hidden sector admits a dual gravity description, this global symmetry can be realized by D-branes, known as flavor branes, that extend along the holographic direction [21]. According to the AdS/CFT dictionary, some of the open-string excitations of these D-branes are dual to the components of the current superfield J . The calculation of the classical two-point functions of these components thus corresponds to the calculation of the current-current correlators in the strongly-coupled dual field theory.

This paper will explore this procedure of calculating hidden-sector current-current correlators using holographic techniques. Such holographic models of supersymmetry breaking were first considered in [22] and further studied in [23, 24] (see also [25]) where certain soft terms (namely the mass of the visible-sector gaugino) were deduced via dimensional reduction to 4d with additional soft terms following from gaugino mediation [26]. The approach here differs from this previous work in that we make use of the formalism of general gauge mediation [11] to calculate soft terms in terms of current-current correlators. A drawback of this procedure is that it is difficult to precisely calculate such correlators in the types of geometries considered in [22, 23] and so in order to be able to calculate explicitly, we consider a toy geometry described below. We emphasize that the barrier to explicitly calculate two-point functions in the gravity picture is of an entirely different nature than the barrier in the direct gauge picture; in the former the complication is the inability to analytically solve in curved spacetime classical equations of motion, while in the latter the barrier is the inapplicability of perturbative techniques in a quantum theory. As a consequence of the simple geometry however, the visible-sector gauginos will remain massless in the construction we consider here, and we leave the analysis of more phenomenologically viable geometries for future work.

Our paper is organized as follows. The formalism of general gauge mediation is reviewed in section 2. In section 3, we summarize the framework of holographic gauge mediation and introduce the geometry that we consider in this work. In section 4 we deduce the classical 5d effective field theory (EFT) describing the open string fluctuations that is dual to the generating functional for current correlators in the dual field theory. We deduce this EFT in two different ways: in section 4.1 we find the on-shell action by dimensional reduction from the well-known action of a D-brane, and in section 4.2 we find the off-shell action by making use of the known off-shell action in the 5d Minkowski spacetime R^{4,1}. In section 5, we calculate the current-current correlators in the supersymmetric case for the both the case of massless and massive messengers. This is done using the techniques of holographic renormalization which we also briefly review. In section 6, we extend this calculation to a non-supersymmetric example and in doing so we effectively determine the visible-sector soft terms which are the main subject of interest of this work. Section 7 contains some concluding remarks and our conventions are presented in appendix A.

We note also that general gauge mediation has been considered together with warped geometries elsewhere in the literature [27]. The essential difference between [27] and the work below is that in the former, the SUSY-breaking sector is realized in an entirely field theoretic way in the warped geometry, while here the SUSY-breaking sector is realized by the geometry itself.

2 General gauge mediation

As discussed in the introduction, general gauge mediation [11] relates visible-sector soft terms to hidden-sector current-current correlators. The underlying assumption in the formalism is that in the limit that the visible-sector gauge coupling g_{vis} vanishes, the visible sector and hidden sector decouple (this implicitly requires m_P → ∞). For simplicity of presentation, we consider the case in which the

– 3 – visible-sector gauge group is U (1). The hidden sector then possess a conserved current j^μ, e.g. a real

vector satisfying the condition (here we are working on the Minkowski spacetime R^{3,1})

∂^μj_μ = 0. (2.1)

In an N_4 = 1 theory, this is a component of a linear superfield J which in N_4 = 1 superspace takes

the form J = J + iθj − iθ̄j̄ − θσ^μθ̄j_μ + 1 2 θ^2θ̄σ̄^μ∂_μj − 1 2 θ̄^2θσ^μ∂_μj̄ − 1 4 θ^2θ̄^2∂^2J, (2.2)

in which j is a two-component spinor and J is a real scalar. With these conditions, J satisfies

D^2J = D̄^2J = 0 where D is the usual supercovariant derivative

D_α = ∂ ∂θ^α + iσ^μ_{αα̇}θ̄^{α̇}∂_μ, D̄_{α̇} = − ∂ ∂θ̄^{α̇} − iθ^ασ^μ_{αα̇}∂_μ. Upon weakly gauging the visible sector, this superfield couples to the visible-sector vector super-

field which, in the Wess-Zumino gauge, takes the form

V = −θσ^μθ̄A_μ + iθ^2θ̄λ̄ − iθ̄^2θλ + 1 2 θ^2θ̄^2D. (2.3)

The coupling between the current and vector superfields is

2g_{vis} ∫ R^{3,1} d^4x ∫ d^4θ VJ = g_{vis} ∫ R^{3,1} d^4x { DJ − λj − λ̄j̄ − A^μj_μ } , (2.4)

in which g_{vis} is the visible-sector gauge coupling.

It is convenient to cast the two-point correlators as [11] ⟨ J ( x ) J ( 0 )⟩ = 1 x^4

C_0 ( x^2M^2 ) , ⟨ j_α ( x )¯ j_{α̇} ( 0 )⟩ = − iσ^μ_{αα̇}∂_μ ( 1 x^4 C_{1/2} ( x^2M^2 ) ) , (2.5) ⟨ j_μ ( x ) j_ν ( 0 )⟩ = ( η_{μν} ∂^2 − ∂_μ∂_ν )( 1 x^4

C_1 ( x^2M^2 )) , ⟨ j_α ( x ) j_β ( 0 )⟩ =ϵ_{αβ} 1 x^5 B_{1/2} ( x^2M^2 ) , where M is some characteristic mass scale. In the supersymmetric limit [11],

C_0 = C_{1/2} = C_1, B_{1/2} = 0. (2.6)

The Fourier transforms take the form ⟨ J ( k ) J ( q )⟩ =C_0 ( k^2/M^2 ) , ⟨ j_α ( k )¯ j_{α̇} ( q )⟩ = − σ^μ_{αα̇}k_μC_{1/2} ( k^2/M^2 ) , (2.7) ⟨ j_μ ( k ) j_ν ( q )⟩ = − ( k^2η_{μν} − k_μk_ν ) C_1 ( k^2/M^2 ) , ⟨ j_α ( k ) j_β ( q )⟩ =ϵ_{αβ}MB_{1/2} ( k^2/M^2 ) , where we have, and will in what follows, suppressed the momentum-conserving delta function ( 2π )_4

δ^4 ( k + q ) . (2.8)

– 4 –

We use the same notation to denote the functions C_a and B and their Fourier transforms C_a ( k^2/M^2 ) = ∫ R^{3,1} d^4x e^{ik·x} 1 x^4 C_a ( x^2M^2 ) , B_{1/2} ( k^2/M^2 ) = ∫ R^{3,1} d^4x e^{ik·x} 1 Mx^5 B_{1/2} ( x^2M^2 ) . (2.9)

In general, these integrals require the introduction of a UV cutoff Λ, the dependence on which is suppressed in the above formulae.

A central result of [11] is that the visible-sector soft masses (except for Bμ-like terms) can be expressed to leading order in g_{vis} in terms of these two-point functions. For the visible-sector gaugino corresponding to the partner of the U (1) gauge-boson,

m_{1/2} = g^2_{vis}MB_{1/2} ( 0 ) . (2.10)

For the sfermion masses, we now suppose that the visible-sector gauge group takes the form G_{vis} = ⨂ i G_i and that the sfermion transforms under the representations r_i for each of the G_i. Then,

m^2_{f̃} = ∑ i g^4_i c_2 ( r_i ) Γ_i, (2.11)

in which g_i is the coupling for G_i, c_2 ( r_i ) is the quadratic Casimir for the representation r_i of the group G_i and Γ_i is built from the current-current correlators for the corresponding group

Γ_i = −

M^2 16π^2 ∫_∞ 0 dy { 3C_1 ( y ) − 4C_{1/2} ( y ) + C_0 ( y )} . (2.12)

In the event of a vacuum expectation value for the scalar component of one the vector superfields (which does not violate any symmetries when the group is Abelian), there is an additional contribution which we will not consider here.

3 Geometric setup

We will now consider a special class of hidden sectors, namely those for which the SUSY-breaking sector is in the Maldacena limit [15]. In the simplest case of N_4 = 4 SU (N) super Yang-Mills, this limit is obtained by first holding the ’t Hooft coupling λ_t = g^2_{YM}N fixed and then taking the number of colors N to infinity (which of course requires taking the Yang-Mills coupling of the hidden sector g_{YM} to zero) and then taking λ_t to be large. The gauge theory in this limit is dual to classical type-IIB supergravity on the space AdS^5 × S^5 where the 10d metric takes the form

ds^2_{10} = r^2 L^2 η_{μν} dx^μdx^ν +

L^2 r^2 dr^2 + L^2dΩ^2_5, (3.1)

in which dΩ^2_5 = ĝ_{ϕψ}dy^ϕdy^ψ is the metric for a unit S^5 and L is set by the ’t Hooft coupling,

L^4 = 4πℓ^4_s g_sN, (3.2)

where g_s = g^2_{YM} is the string coupling and ℓ_s is the string length. The geometry is supported by a 5-form flux F^{(5)} = ( 1 + ∗_{10} ) F^{(5)}, (3.3)

– 5 – in which ∗_{10} is the 10d Hodge-∗ and F^{(5)} = dC^{(4)} with

C^{(4)} = r^4 g_sL^4 dvol_R3,1 , (3.4)

where dvol_R3,1 is the volume element of R^{3,1}. The duality can be motivated by considering a stack of N D3-branes in Minkowski spacetime R^{9,1} which in this limit has an open-string description in terms of the gauge theory and a closed-string description in terms of this geometry.

A less symmetric example is the Klebanov-Strassler (KS) theory [19]. Although we will consider the simpler AdS^5 × S^5 geometry in what follows, the breaking of supersymmetry has been recently studied in this geometry and so we will discuss it as an illustration of geometries suitable for holographic gauge mediation. The geometry is found by considering a collection of M fractional D3-branes (i.e. D5-branes wrapping a collapsing 2-cycle) at a conifold point. The geometry is similar to the above case in that it is a warped geometry

ds^2_{10} = e^{2A}η_{μν} dx^μdx^ν + e^{−2A}ds^2_6, (3.5)

in which ds^2_6 is the Ricci-flat metric for a particular Calabi-Yau manifold over which the warp factor e^{4A} varies non-trivially. The conifold point additionally becomes deformed so that instead of there being a singularity, there is now a finite-sized S^3. In addition to the 5-form flux, the geometry is supported by an imaginary-self-dual 3-form flux. The dual gauge theory is no longer conformal but instead is an N_4 = 1 theory that can be described by a series of Seiberg dualities [28]. If a number of D3-branes are present on the finite S^3 where the conifold has been deformed, the geometry will no longer be supersymmetric. However, so long as the number p of D3 branes is small compared to the amount of background flux, the geometry will be metastable [18]; without any D3-branes to directly annihilate against, the D3s will decay only non-perturbatively, first puffing up via the Myers effect [29] to NS5-branes which will then dissolve into flux and D3-branes. The influence of the D3-branes on the geometry is involved [20, 30, 31], but by considering the geometry at distances far away from the tip where the geometry simplifies [32] it was argued in [30] that the perturbation to the geometry is such that the dual theory is in a non-supersymmetric state of the original theory, rather than a perturbation to the theory itself. More precisely, the duality states that for every operator O in the gauge theory, there is a corresponding operator Φ on the gravity side such that, if we imagine the gauge theory living on the boundary of, for example, AdS^5, the coupling of the bulk field to the field theory is ∫ δAdS^5 d^4x √ hOΦ, (3.6)

in which h is the metric induced on the boundary. Φ will satisfy a second-order differential equation and as r → ∞ will behave as Φ ∼ ϕ_1r^{−Δ} + ϕ_2r^{Δ−4}, (3.7)

in which Δ is the mass dimension of O. Solutions involving ϕ_2 are not normalizable and correspond to deformations of the Lagrangian in the gauge theory, δL ∼ ϕ_2O, while those involving just ϕ_1 are normalizable and correspond to a vacuum expectation value, ⟨ O ⟩ ∼ ϕ_1. The large-radius solution of [30] has only normalizable perturbations implying that the addition of D3-branes produces a particular metastable state and does not change the underlying theory^5.

A global flavor group can be added to the gauge theory by adding a number of D-branes into the geometry [21]. For the warped geometries of type-IIB that we are considering here, the appropriate

5We again note the possible objections raised in [20].

– 6 – type of brane to add is a D7-brane that fills R^{3,1} and wraps a non-compact 4-cycle in the transverse space. A stack of K such branes will produce an SU (K) flavor group. In addition, the matter content of the dual gauge theory will be modified by the addition of quarks: matter that transforms under a bifundamental of the flavor group and the dual gauge group^6. In the brane picture, these correspond to open strings that stretch from the (fractional or elementary) D3-branes that produce the geometry and the D7-branes so that the mass of the quarks is set by the position of the D7-branes. In the case when the number of flavor branes is much smaller than the number of color branes, the D7-branes may be considered in the probe approximation where the backreaction of the D7-branes can be neglected, an approximation which we make here. In addition to the gauge couplings, the quarks may possess superpotential couplings to other matter in the hidden sector [33]. One of the excitations of the D7- branes is the 1-form A_μ that acts as the 4d gauge field once the flavor group is weakly gauged and thus couples to a current on a boundary theory via L ∼ j^μA_μ. That is, if we identify this flavor group as the visible-sector gauge group, the open-string field A_μ is dual to the current j^μ discussed in section 2.

We now have the ingredients to put together a dual gravity description of gauge mediation as in [22]:

1. Begin with a theory of matter and gauge group G_{hid} that admits a geometric description via the gauge-gravity correspondence. This theory will function as the SUSY-breaking sector.

2. Add D7-branes^7 to the geometry, giving rise to a visible-sector group G_{vis} and quarks that transform under G_{vis} and G_{hid}. These quarks (or rather their bound states) which will serve as messengers. The messengers and SUSY-breaking sector together constitute the hidden sector. At this point, G_{vis} is a global symmetry in the dual theory and there is a corresponding conserved current j_μ constructed from hidden-sector fields.

3. Prepare a SUSY-breaking state in the hidden sector. In the geometry, this corresponds to a SUSY-breaking normalizable perturbations to the geometry from the addition of non-SUSY sources. This state should be metastable, though we will not address this issue here.

4. Calculate the classical two-point functions of A_μ and other fields related to it via supersymmetry.

This is equivalent to calculating the two-point functions for j_μ and its related fields in the dual theory.

5. Weakly gauge G_{vis} and introduce the visible-sector matter. On the gravity side, this requires gluing the warped geometry into a compact space and introducing (for example) a network of intersecting 7-branes. Fortunately, all that is necessary for calculating the soft terms considered here is knowledge of the representations and visible-sector gauge couplings. Such soft terms can be determined from the current-current correlators as in section 2.

In the cases studied in [22, 23], the D7s were taken in the probe approximation and the breaking of supersymmetry occurs whether are not they are added. Such modes are thus closely related to models of semi-direct gauge mediation [10]: the messengers couple to the hidden sector via gauge and superpotential couplings but are not involved in the participation of the breaking of supersymmetry. As in section 2, we will take the case of a single D7-brane, the extension to larger rank being a straightforward generalization.

6For clarity, we emphasize that the terms “flavor” and “quark” are used only in analogy with the standard model and not related to the corresponding concepts in the visible sector.

7Of course, in other classes of solutions, different sorts of branes would need to be used here.

– 7 –

A significant barrier to this procedure is the non-trivial geometries involved. In particular, even if the background corresponding to the SUSY-breaking sector is known before the breaking, the addition of the non-SUSY sources will backreact on the geometry and fluxes in a manner that is non-supersymmetric and difficult to compute. Once this is known, the equations of motion for the open-string modes have to be solved. Although the behavior along the radial direction will be under relatively good control, many of the relevant fields will transform non-trivially under the isometries of the angular space and so will not be constant along the internal directions (even for the lowestlying state) and so the corresponding Laplace-Beltrami equation is difficult to solve^8. For the sake of calculability, we will model the warped geometry as^9

ds^2_{10} = e^{2A}η_{μν} dx^μdx^ν + e^{−2B̄} ( dr^2 + r^2dΩ^2_5 ) , (3.8)

supported by the RR-potential C^{(4)} = g^{−1}_s e^{4C} dvol_R3,1 . (3.9) The dilaton will be taken to be a constant, Φ = log g_s, and the remaining closed string fields to vanish. The functions A, B̄, and C, are taken to be functions of r alone. We will in addition consider the case in which the warp factor takes the AdS-form A = log r/L before supersymmetry breaking. In this case the gauge theory is conformal before the addition of the flavor branes and, as argued in [30], such a theory cannot spontaneously break supersymmetry while preserving Lorentz symmetry. However, we will find below that the correlators of interest do not obey the relationships expected from supersymmetry, suggesting that SUSY is broken after the D7 is added.

Finally, we note that the dual theory will have extended supersymmetry. Our interest is only in the coupling to the visible sector which we will take to be only N_4 = 1. We will therefore only couple part of the hidden sector to the visible sector, namely though the operator ∼ ∫ d^4θ J V where V is an N_4 = 1 vector multiplet.

Explicitly, we take the coordinates on the S^5 to be

x^4 =r sin (φ_5) sin (φ_4) sin (φ_3) sin (φ_2) sin (φ_1) , x^5 =r cos (φ_5) sin (φ_4) sin (φ_3) sin (φ_2) sin (φ_1) , x^6 =r cos (φ_4) sin (φ_3) sin (φ_2) sin (φ_1) , (3.10) x^7 =r cos (φ_3) sin (φ_2) sin (φ_1) , x^8 =r cos (φ_2) sin (φ_1) , x^9 =r cos (φ_1) ,

so that φ_5 ∈ [0, 2π) while φ_{i≠5} ∈ [0, π). We place the D7 at a radial distance r = μ which we arrange by taking x^8 = 0, x^9 = μ. The metric induced onto the D7-brane is

ds^2_8 =e^{2A}η_{μν} + e^{−2B}

L^2 ρ^2 dρ^2 + e^{−2B} L^2dΩ^2_3

=g̃_{mn}dx^mdx^n + e^{−2B} L^2ğ_{ϕψ}dy^ϕdy^ψ, (3.11)

in which dΩ^2_3 is the line element for a unit S^3, ρ is defined by the relationship r^2 = ρ^2 + μ^2, and B = B̄ + log L/ρ. We denote the non-compact 5d part of the worldvolume by M.

8Note that this remains true even in the large-radius region of the KS solution where the internal Calabi-Yau is a cone over the homogeneous space T^{1,1} [32, 34, 35]. Although a procedure exists for a harmonic analysis for such manifolds, the angular space wrapped by the D7 will not be as symmetric.

9Note that more generally we could have different factors multiplying the dr^2 piece and the dΩ^2_5 piece, but by a redefinition of r they can be set equal.

– 8 –

4 5d effective field theory

Our goal is to calculate the two-point correlation functions of the component fields of the current superfield (2.2). The duality relates the generating functional on the gauge theory side to the classical action on the gravity side. We will determine the latter in two ways. In section 4.1 we perform a dimensional reduction of the 8d action that describes the low-energy excitations of the D7-brane. The resulting 5d theory will be useful in that it is valid whether or not supersymmetry is broken. In section 4.2, the off-shell action is determined and written in N_4 = 1 superspace language, using the flat spacetime result as a bootstrap. This method will only be effective when the closed string background is supersymmetric, since only the open-string modes are taken off-shell. However, this action is needed since the scalar component of the chiral superfield couples to the scalar component of the N_4 = 1 vector superfield and the latter is an auxiliary field. Note that if we did not need to make use of the off-shell 5d theory, we could the 8d equations of motion and need not perform the intermediate dimensional reduction to get a 5d action.

4.1 On-shell theory from dimensional reduction The starting place for the on-shell action is the Dirac-Born-Infeld (DBI) and Chern-Simons (CS) action describing the long-wavelength dynamics of a Dp-brane

S^{DBI}_{Dp} = S^{DBI}_{Dp} + S^{CS}_{Dp} . (4.1)

In the 10d Einstein frame, the DBI action takes the form

S^{DBI}_{Dp} = −τ_{Dp} ∫ W d^{p+1}ξ ( g^{−1}_s e^Φ ) p−3_4 √ |det (M_{αβ} )|, (4.2)

in which M_{αβ} = P [ g_{αβ} − g^{1/2}_s e^{−Φ/2}B_{αβ} ] + λg^{1/2}_s e^{−Φ/2}F_{αβ} . (4.3) P denotes the pullback from the 10d spacetime on to the worldvolume W of the Dp brane, P [ v_α ] = v_M ∂x^M ∂ξ^α , (4.4)

where ξ^α are coordinates on W and are in general dynamic. In what follows, we take the static gauge ξ^α = x^α. g_{MN} is the 10d metric and B^{(2)} the NS-NS 2-form which vanishes for the backgrounds that we consider here. F_{αβ} are the components of the field strength for the U (1) (p + 1)-dimensional vector potential living on the brane, F^{(2)} = dA^{(1)}. The tension of a Dp-brane is given by τ^{−1}_{Dp} = (2π)^p ℓ^{(p+1)}s g_s and we have λ = 2πℓ^2_s . The Chern-Simons action is

S^{CS}_{Dp} = τ_{Dp}g_s ∫ W P [ C ∧ e^{−B(2)} ] ∧ e^{λF (2)} , (4.5)

in which C is the formal sum of all of the RR-potentials. The non-Abelian generalization of this action is more intricate [29]; however, to leading order in ℓ_s and to quadratic order in the open string fields, it can be obtained by promoting A^{(1)} and the fluctuations of the position to adjoint-valued fields and taking a trace over gauge indices.

To leading order in ℓ_s, the action for the gauge field on D7 in the above background can be found via a Taylor expansion S = − 1 4g^2_8 ∫ W d^8x √ g { g^{αβ}g^{γδ}F_{αγ} F_{βδ} − g_s 2 · 4! √ g ϵ^{αβγδϵηζθ}C_{αβγδ}F_{ϵη} F_{ζθ} } , (4.6)

– 9 – in which g^2_8 = 8π^3ℓ^4_s and ϵ^{0···7} = +1. After integrating by parts, this can be written as S = L^3 g^2_8 ∫ W d^8x √ g̃e^{−3B} √ ğ { − 1 4 g̃^{mn}g̃^{st}F_{ms}F_{nt} − e^{2B} 2L^2 g̃^{mn}ğ^{ϕψ}∂_mA_ϕ∂_nA_ψ + e^{2B} 2L^2 g̃^{mn}ğ^{ϕψ} ˘∇_ϕ ˘∇_ψ A_mA_n − 2ρC^′ L^4 e^{4C+4B−4A}ε̆^{ϕψζ} A_ϕ ˘∇_ψA_ζ + e^{4B} 2L^4 ğ^{ϕψ}ğ^{ζξ} (˘ ∇_ϕ ˘∇_ψ A_ζ − ˘∇_ζ ˘∇_ϕA_ψ − R̆_{ϕζ} A_ψ ) A_ξ + e^{2B} L^2 g̃^{mn}ğ^{ϕψ} ~∇_mA_n ˘∇_ϕA_ψ − ρ^2B^′e^{4B} L^4 ğ^{ϕψ}A_ρ ˘∇_ϕA_ψ } , (4.7)

in which ~∇_m is the covariant derivative built from the metric g̃_{mn} for the 5d space M. Similarly, ˘∇_ϕ is the covariant derivative on S^3, and the associated Ricci tensor is R̆_{ϕψ} , and ε̆^{ϕψζ} is the antisymmetric tensor on a unit S^3.^′ denotes a derivative with respect to ρ.

The components of the connection with the legs on M transform as scalars under rotations of the S^3 and thus can be expanded in terms of scalar spherical harmonics

A_m = ∞∑ l=0 A^{(l)}_m ( x^m ) Y_l ( y^θ ) , (4.8)

where ˘∇^2Y_l = −l(l + 2)Y_l. (4.9)

The harmonics satisfy the orthogonality relationship ∫ S^3

dvol_S3 Y_lY_l′ = V_S3 δ_{ll}′ , (4.10)

in which V_S3 = 2π^2 is the volume of a unit S^3. We impose the gauge-fixing condition

g̃^{mn} ~∇_mA_n = 0 ⇒ g̃^{mn} ~∇_mA^{(l)}_n = 0. (4.11)

Similarly, the angular components are expanded into the 1-form harmonics^{10}

A_ϕ = ∞∑ l=0 B^{(l)} ( x^m )˘ ∇_ϕY_l ( y^θ ) + L ∞∑ l=1 { a^{(l,+)} ( x^m ) Y^+_{ϕ,l} ( y^θ ) + a^{(l,−)} ( x^m ) Y^−_{ϕ,l} ( y^θ )} , (4.12)

where the Y^±_{ϕ,l} satisfy

˘∇^2Y^±_{ϕ,l} − 2Y^±_{ϕ,l} = − (l + 1)^2 Y^±_{ϕ,l}, ˘∇^ϕY^±_{ϕ,l} = 0, ε^{ϕψζ} ˘∇_ψ Y^±_{ζ,l} = ±(l + 1)ğ^{ϕξ}Y^±_{ξ,l}, (4.13)

and the orthogonality relationship ∫ S^3 dvol_S3ğ^{ϕψ}Y^ϵ_{ϕ,l}Y^{ϵ′}_{ψ,l}′ ∝ δ_{ll}′ δ^{ϵϵ′} . (4.14) Owing to the various orthogonality relationships, the harmonics of different types decouple from each other. For the scalar harmonics, we get, after integrating over the S^3, S = 1 g^2_5 ∫ M d^5x √ g̃e^{−3B} ∞∑ l=0 { − 1 4 g̃^{mn}g̃^{st}F^{(l)}_{ms}F^{(l)}_{nt} − l (l + 2) e^{2B} 2L^2 g̃^{mn}∂_mB^{(l)}∂_nB^{(l)}

− l (l + 2) e^{2B}

2L^2 g̃^{mn}A^{(l)}_m A^{(l)}_n + l (l + 2) ρ^2e^{4B}

L^4

A^{(l)}_ρ B^{(l)} } . (4.15)

10These are related to the more familiar vector spherical harmonics by contraction with the metric. See, e.g. [36, 37] for discussions of tensor spherical harmonics.

– 10 – in which g^2_5 = 4πℓ^4_s L^{−3} is the 5d gauge coupling. For the 1-form sector, S = 1 g^2_5 ∫ M d^5x √ g̃ ∞∑ l=1 { − e^{−B} 2 g̃^{mn}∂_ma^{(l,±)}∂_na^{(l,±)}

− e^B 2L^2 [ (l + 1)^2 ± 4 (l + 1) ρC^′e^{4C−4A} ] a^{(l,±)}a^{(l,±)} } . (4.16)

The remaining bosonic degrees of freedom are the transverse fluctuations of the D7-brane. To leading order in ℓ_s they enter only through the pullback of the metric in this background P [ g_{αβ} ] = g_{αβ} + λ^2

L^2 ρ^2 e^{−2B} δ_{ij} ∂_αΦ^i∂_β Φ^j , (4.17)

where Φ^{i=1,2} are related to the position of the D7 brane by

x^8 = λΦ^1, x^9 = μ + λΦ^2. (4.18)

The action is S = − 1 2g^2_8 ∫ W d^8x √ gg^{αβ} ρ^2 L^2 e^{−2B} δ_{ij} ∂_αΦ^i∂_β Φ^j . (4.19)

Expanding in scalar spherical harmonics and integrating over the S^3, S = 1 g^2_5 ∫ M d^5x √ g̃ ∞∑ l=0 { − L^2e^{−5B}

2ρ^2 g̃^{mn}∂_mΦ^{i(l)}∂_mΦ^{i(l)} − l (l + 2) e^{−3B} 2ρ^2

Φ^{i(l)}Φ^{i(l)} } . (4.20)

For the fermionic degrees of freedom, we begin with the Dirac-like action of [38], which in the Einstein frame reads [39]

S^F_{Dp} = − i g^2_8 ∫ W d^8x ( g^{−1}_s e^Φ ) p−3_4 √ |det (M_{αβ} )|Θ̄P^{Dp}_− {( M^{−1} )_{αβ} P [ Γ_β ( D_α + 1 4 Γ_αΔ )] − Δ } Θ, (4.21)

in which Θ is the bispinor Θ = ( θ_1 θ_2 ) , (4.22)

where θ_{1,2} are 10d Majorana-Weyl spinors^{11}, P^{Dp}_− is the projection operator

P^{Dp}_± = 1 2 ( 1 ± Γ_{Dp} ) = 1 2 ( 1 ±Γ̆^{−1}_{Dp} ±Γ̆_{Dp} 1 ) , (4.23)

where Γ̆_{Dp} = i^{(p−2)(p−3)}Γ^{(0)}_{Dp}L(F), (4.24)

with

Γ^{(0)}_{Dp} = 1 (p + 1)! ε_{α1···αp+1} Γ^{α1 ···αp+1} ,

L ( F ) = √ |det (P [g])| √ |det (M)| ∑ q ( g_se^{−Φ} )_{q/2} q!2^q F_{α1α2} · · · F_{α2q−1 α2q} Γ^{α1 ···α2q} , (4.25) 11Our fermionic conventions are presented in appendix A.

– 11 – with F^{(2)} = −P [ B^{(2)} ] + λF^{(2)} and ε_{α1 ···αp+1} is the antisymmetric tensor. The operators D_M and Δ are involved in the SUSY-variations of the Einstein-frame gravitini and dilatini as in appendix A.2.

The action above is subject to a gauge redundancy known as κ-symmetry where we make the identification Θ ∼ Θ + Γ^{Dp}_− κ, (4.26) in which κ is an arbitrary 10d Majorana-Weyl bispinor. We choose the gauge Θ = ( θ 0 ) , (4.27)

and then in the above background, the action becomes

S^F_{D7} = − i 2g^2_8 ∫ W d^8x √ g θ̄ { g^{αβ}Γ_α∇_β + g_s 16 g^{αβ}Γ̆^{−1}_{D7}Γ_α /F^{(5)}Γ_β } θ, (4.28)

with Γ̆_{D7} = −iσ^3 ⊗ I_4 ⊗ σ^3 ⊗ I_2. (4.29)

θ is a 10d Majorana-Weyl spinor and thus can be written as θ = ( 1 0 ) ⊗ λ ⊗ χ ⊗ ψ − i ( 1 0 ) ⊗ B̃_5λ^∗ ⊗ σ^1χ^∗ ⊗ iσ^2ψ^∗, (4.30)

where λ, χ, and ψ are SO (4, 1), SO (2), and SO (3) Dirac spinors respectively. That is, λ is a spinor on M and ψ is a spinor on the S^3 wrapped by the D7-brane. We additionally take the ansatz that λ depends only on the coordinates on M, ψ depends only on the 3-cycle coordinates, and χ is a constant spinor. We have g^{αβ}Γ_α /F^{(5)}Γ_β = 4 /F^{(5)}, (4.31) where we have used the self-duality of F^{(5)} and that this operator is acting on a 10d Weyl spinor. In this setup, we can take the aichtbein for the metric 3.11 to be

e^β_α = e^Aδ^ν_μ e^{−B L}_ρ e^{−B} Lĕ^ϕ_θ , (4.32)

where underlined indices denote the non-coordinate frame and ĕ^ϕ_θ is the dreibein for a unit S^3. Then 4 /F = 16iC^′ g_sL e^{4C−4A+B} σ^1 ⊗ I_4 ⊗ I_2 ⊗ I_2, (4.33)

where we have again made use of the fact that it acts on 10d Weyl spinor.

The covariant derivative can be written in terms of the spin connection

∇_α = ∂_α + 1 4 ω^{βγ}α Γ_{βγ} , (4.34)

where ω^{βγ}α = 1 2 e^δ_α ( T^{βγ}_δ − T^{βγ}_δ − T^{γ β}_δ ) , T^α_{βγ} = ( e^β_β e^γ_γ − e^γ_β e^β_γ ) ∂_γ e^α_β . (4.35)

For the above choice of aichtbein, the non-vanishing components of the spin connection are

ω^{ψζ}_ϕ = ω̆^{ψζ}_ϕ , ω^{ψ4}_ϕ = −ρB^′δ^ψ_ϕ , ω^{4π}_μ = − ρA^′ L e^{A+B} δ^π_μ . (4.36)

– 12 –

To leading order in ℓ_s, the bosonic and fermionic fluctuations decouple and the action takes the form S = − iL^3 2g^2_8 ∫ W d^8x √ g̃e^{−3B} √ ğ { (¯ λ ~/∇λ )( χ^†χ )( ψ^†ψ ) + ρC^′ L e^{4C−4A+B} (¯ λλ )( χ^†σ^3χ )( ψ^†ψ )

− 3ρB^′ 2L e^B (¯ λγ_{(4)}λ )( χ^†χ )( ψ^†ψ ) + i L e^B (¯ λλ )( χ^†σ^3χ )( ψ^† ˘/∇ψ )} + c.c. (4.37)

Under SO (5) → SO (2) × SO (3), a Dirac spinor decomposes as (see, e.g. [40])

η → χ_+ ⊗ ψ_+ + χ_− ⊗ ψ_−, (4.38)

where χ_± are SO (2) Weyl spinors while ψ_± are SO (3) Dirac spinors. As an SO (3) spinor, ψ can be expanded in spinor spherical harmonics^{12} which satisfy ˘/∇Y_{l,±} = ±i ( l + 3 2 ) Y_{l,±}, (4.39)

where l = 0, 1, 2, . . .. They again satisfy the orthogonality condition ∫ S^3

dvol_S3 Y^†_{l,ϵ}Y_l′_{,ϵ} ∝ δ_{ll}′ δ_{ϵϵ}′ . (4.40)

Then we take the expansion θ = ∑ l,σ,ϵ ( 1 0 ) ⊗ λ^{(l,σ,ϵ)} ⊗ χ_σ ⊗ Y_{l,ϵ} + · · · , (4.41) where · · · indicates the terms necessary to ensure that θ is Majorana. With this expansion, S = 1 g^2_5 ∫ M d^5x √ g̃e^{−3B} ∞∑ l=0 ∑ ϵ,σ { − iλ̄^{l,σ,ϵ} ~/∇λ^{l,σ,ϵ} − 3iρB^′e^B 2L λ̄^{l,σ,ϵ}γ_{(4)}λ^{l,σ,ϵ}

+ iσe^B L ( ϵ ( l + 3 2 ) − ρC^′e^{4C−4A} ) λ̄^{l,σ,ϵ}λ^{l,σ,ϵ} } (4.42)

The degrees of freedom should be able to be organized into N_5 = 1 super multiplets and our interest is in the lightest vector multiplet. We can identify this multiplet by comparing against the known results in the AdS^5 case which is recovered by taking A = B̄ = C = log r/L and μ = 0. In this case, the lightest (i.e. most negative m^2) comes from the (1, −) sector of the scalar descending from A_ϕ, which saturates the BF bound [41], m^2 = − 4 L^2

. (4.43)

This is the expected mass for the scalar in the N_5 = 1 massless vector hypermultiplet [42, 43]. The corresponding Dirac fermion has mass^1_{2L} and comes from the (l, ϵ, σ) = (0, −, +) mode of the fermions. The vector component of this multiplet comes from the l = 0 mode of A_m and so the action for these modes is S = − 1 g^2_5 ∫ M d^5x √ g̃e^{−3B} { 1 4 g̃^{mn}g̃^{st}F_{ms}F_{nt} + iλ̄γ̃^m ~∇_mλ + e^{2B} 2 g̃^{mn}∂_ma∂_na + im_λλ̄λ + iαλ̄γ_{(4)}λ + 1 2 m^2_aa^2 } , (4.44)

12See e.g. [37].

– 13 – in which

L^2m^2_a = 4e^{4B} ( 1 − 2ρC^′e^{4C−4A} ) , Lm_λ = e^B ( 3 2 − ρC^′e^{4C−4A} ) , Lα = − 3ρB^′ 2 e^B . (4.45)

The higher modes give rise to N_5 = 1 hyper multiplets and massive vector multiplets. Note that although not real by itself, when iαλ̄γ_{(4)}λ added to the kinetic term for the fermion, the entire action is real.

Since these are all components of a single supermultiplet, it will be convenient to perform a field redefinition so that they all have the same kinetic terms. Changing the kinetic term of A_m would spoil manifest gauge invariance, and so we redefine the scalar to match the gauge kinetic term. Defining Σ = e^Aa, we get S = − 1 g^2_5 ∫ M d^5x √ g̃e^{−3B} { 1 4 g̃^{mn}g̃^{st}F_{ms}F_{nt} + iλ̄γ̃^m ~∇_mλ + 1 2 g̃^{mn}∂_mΣ∂_nΣ (4.46)

+ im_λλ̄λ + iαλ̄γ_{(4)}λ + 1 2 m^2_ΣΣ^2 } , in which L^2m^2_Σ = e^{2B} ( ρ^2B^{′′} − ρ^2B^{′2} + 4ρ^2A^′B^′ + ρB^′ − 8ρC^′e^{4C−4A} + 4 ) . (4.47)

4.2 Off-shell theory from flat space

N_5 = 1 supersymmetry is generated by eight real supercharges that can be arranged into a pair of symplectic-Majorana spinors R^{i=1,2}. In addition to the connection A^{(1)} and the gaugino (the degrees of freedom of which can again be expressed as a pair of symplectic-Majorana spinors λ^{1,2}) the off-shell theory contains three real auxiliary scalar fields X^{I=1,2,3} (see e.g. [44]). Under the SU (2) R-symmetry that rotates the R^i into each other, the gauge field is inert, while the fermionic degrees transform as a 2 and the auxiliary fields as a 3. Under a SUSY transformation parametrized by η^i, the fields transform in flat space as

δ_ηA_m =iη̄_iγ̃_mλ^i, δ_η Σ =η̄_iλ^i, (4.48)

δ_ηX^I =η̄_i ( σ^I )_i jγ̃^m∂_mλ^j , δ_η λ^i = − 1 2 F_{mn}γ̃^{mn}η^i + iγ̃^m∂_mΣη^i + iX^I ( σ^I )_i j η^j , where ( σ^I )_i j are the components of the usual Pauli matrices. The algebra closes in the sense that [ δ_η, δ_ξ ] = 2iξ̄_iγ̃^m∂_mη^i∂_m, (4.49)

except when acting on the gauge field which closes only up to a gauge transformation. The off-shell action is S = − 1 g^2_5 ∫ R^{4,1} d^5x { 1 4 F_{mn}F^{mn} + 1 2 ∂_mΣ∂^mΣ + i 2 λ̄_iγ̃^m∂_mλ^i − 1 2 X^I X^I } . (4.50)

The vector multiplet can be written in N_4 = 1 language as a vector superfield and a neutral chiral superfield [45]. In particular, we can embed an N_4 = 1 into the higher supersymmetry by considering

– 14 – the transformations (4.48) and taking η_R = 0. Under this restricted set, the fields transform as

δ_{ηL} A_μ =iη̄_Lσ̄_μλ_L + iη_Lσ_μλ̄_L, δ_{ηL} A_4 =η̄_Lλ̄_R + η_Lλ_R, δ_{ηL} Σ = − iη̄_Lλ̄_R + iη_Lλ_R, (4.51) δ_{ηL} X^1 =η_Lσ^μ∂_μλ̄_R + iη_L∂_4λ_L − η̄_Lσ̄^μ∂_μλ_R − iη̄_L∂_4λ̄_R, δ_{ηL} X^2 =iη_Lσ^μ∂_μλ̄_R − η_L∂_4η_L + iη̄_Lσ̄^μ∂_μλ_R − η̄_L∂_4λ̄_L, δ_{ηL} X^3 =η̄_Lσ̄^μ∂_μλ_L − iη̄_L∂_4λ̄_R − η_Lσ^μ∂_μλ̄_R + iη_L∂_4λ_R, δ_{ηL} λ_L =F_{μν} σ^{μν} η_L + i ( X^3 − ∂_4Σ ) η_L, δ_{ηL} λ_R =iF_{μ4}σ^μη̄_L + ∂_μΣσ^μη̄_L − i ( X^1 + iX^2 ) η_L.

It was recognized in [45] that these are the transformation rules for the components of a chiral superfield Φ and a vector superfield V in the Wess-Zumino gauge under the combination of a supersymmetry transformation and a complexified gauge transformation required to maintain the Wess-Zumino condition. The superfields take the form

Φ =ϕ + √ 2θψ + θ^2F + iθσ^μθ̄∂_μϕ + i √ 2 θ^2θ̄σ̄^μ∂_μψ + 1 4 θ^2θ̄^2∂^2ϕ, (4.52a)

V = − θσ^μθ̄A_μ + iθ^2θ̄λ̄ − iθ̄^2θλ + 1 2 θ^2θ̄^2D, (4.52b)

in which ∂^2 = η^{μν} ∂_μ∂_ν . The curl superfield W_α = −^1_4 D^2D̄_αV takes the standard form

W_α = − iλ_α + θ_αD − i 2 (σ^μσ̄^ν )^β_α θ_β F_{μν} + θ^2σ^μ_{αα̇}∂_μλ̄^{α̇} + θσ^μθ̄∂_μλ_α + iθ_αθσ^μθ̄∂_μD + 1 2 (σ^μσ̄^ν )^β_α θ_β θσ^κθ̄∂_κF_{μν} − i 4 θ^2θ̄^2∂^2λ_α. (4.52c)

The component fields are related to the usual 5d fields through

ϕ = Σ + iA_4, ψ = i √ 2λ_R, F = X^1 + iX^2, λ = λ_L, D = X^3 − ∂_4Σ, (4.53)

where λ_L and λ_R are the left- and right-handed components of λ^1 defined as in (A.12). Under the complexified gauge transformation V → V + 1 2 ( Λ + Λ^∗ ) , (4.54)

where Λ is a chiral superfield, Φ transforms as

Φ → Φ + ∂_4Λ. (4.55)

Then, the action (4.50) can be written in the language of N_4 = 1 superspace S = 1 g^2_5 ∫ R^{4,1} d^5x { 1 4 ∫ d^2θ W^αW_α + 1 4 ∫ d^2θ̄ W_{α̇}W^{α̇} + ∫ d^4θ ( 1 2 ( Φ + Φ )_∗ − ∂_4V )_2} , (4.56)

where the coefficients are chosen to recover the normalization of the action in (4.50). We can couple this N_5 = 1 theory to an N_4 = 1 theory localized at some point x^4 = x^4_0 by introducing an action 2 ∫ x^4=x^4_0

d^4x ∫ d^4θ VJ = ∫ x^4=x^4_0

d^4x { JD − λj − λ̄j̄ − A^μj_μ } , (4.57)

– 15 – where J is a current superfield (2.2).

Given this flat space off-shell theory, we can produce the off-shell theory for the vector supermultiplet on AdS^5 [27, 46]. We can apply the same techniques to deduce the off-shell action for the N_5 = 1 theory resulting from dimensional reduction onto a supersymmetric probe D7-brane in AdS^5 × X^5 where X^5 is an Einstein-Sasaki manifold^{13}. The procedure is to begin by identifying the Killing spinor for the 5d theory. We can begin by considering the Killing spinors of the 10d theory. For this geometry, the Killing spinor equations are

D_M ε = ∇_M ε + g_s 16 /F^{(5)}Γ_M ( iσ^2 ) ε, (4.58)

where ε is a Majorana-Weyl bispinor ε = ( ε_1 ε_2 ) . (4.59)

Taking ε_2 = −iε_1, this becomes 0 = ∇_M ε_1 + ig_s 16 /F^{(5)}Γ_M ε_1. (4.60)

Writing ε = ( 1 0 ) ⊗ ϵ ⊗ β − i ( 1 0 ) ⊗ B̃_5η^∗ ⊗ B̂_5β^∗, (4.61)

where ϵ is an SO (4, 1) spinor and β is an SO (5) spinor, this equation becomes

^∇_ϕβ = − i 2 γ̂_ϕβ, ~∇_mϵ = + 1 2L γ̃_mϵ, (4.62)

where ^∇_ϕ is the covariant derivative built from the metric on X^5. The covariant derivative can be easily deduced from the spin-connection on the D7 worldvolume (4.36). Since X^5 is an Einstein-Sasaki space, the first of (4.62) has a solution. The second does as well, the explicit form of which [41, 43, 48] will be useful for us. Since { I_4, γ̃_m, γ̃_{mn} } form a basis for 4 × 4 matrices, we can take the ansatz ϵ = ( a + b^μγ̃_μ + c^{μν}γ̃_{μν} ) η^+ + ( d + e^μγ̃_μ + c^{μν}γ̃_{μν} ) η^−, (4.63)

where η^± are constant Dirac spinors satisfying γ_{(4)}η^± = ±η^±. The r-component of the Killing spinor equation is ∂_rϵ = − 1 2 γ_{(4)}ϵ, (4.64)

which implies that c^{μν} = 0 while a = √ L r ā, b^μ = √ r L b̄^μ, d = √ r L d̄, e^μ = √ L r ē^μ, (4.65)

where ā, b̄^μ, d̄, and ē^μ are all functions of the R^{3,1} coordinates x^μ. The μ components are ∂_μϵ = − r 2L^2 δ^μ ( 1 + γ_{(4)} ) ϵ, (4.66)

which are solved by ā = 1, b̄^μ = − 1 L δ^μ x^μ, d̄ = 1, ē^μ = 0. (4.67)

13A similar process should in fact work for any of the N_4 ≥ 1 compactifications of [47]. However, once supersymmetry is broken by the background, one would have to consider the supergravity multiplet as well.

– 16 –

Hence, the Killing spinor takes the form [41, 43, 48] ϵ = ( r L )_{−γ(4) /2} ( 1 − x^μ L γ̃_μ ( 1 + γ_{(4)} ) ) η = √_r L ( η_{Lα} −^{ir}_{L2} x^μδ^μσ̄^μ_{αα̇}η̄^{α̇}_R ) i √_L r η̄^{α̇}_R

. (4.68)

where η = η^+ +η^−. Upon dimensional reduction, ϵ generates SUSY transformations for the 5d effective field theory on M where r is to be treated as a function of ρ.

The off-shell theory for the N_5 = 1 vector multiplet can be determined by again considering the restricted supersymmetry transformations characterized by η̄_R = 0. The remaining components parametrize a rigid N_4 = 1 transformation. An N_5 = 1 transformation is induced by

ϵ̄_iR^i = iϵ_LR_R − iϵ̄_LR̄_R + iϵ̄_RR̄_L − iϵ_RR_L = i √ r L η_LR_R − i √ r L η̄_LR̄_R, (4.69)

where after the second equality we have set η_R = 0. If we identify η_L as characterizing a rigid N_4 = 1 transformation, then the corresponding generator is Q = √ r L Q = i √ r L R_R. (4.70)

Q induces translations in superspace

Q_α = ∂ ∂θ^α − iσ^μ_{αα̇}θ̄^{α̇}δ^μ_μ ∂_μ, (4.71)

and the restricted N_5 = 1 transformations induce translations through a warped N_4 = 1 superspace

Q_α = ∂ ∂ϑ^α − iσ^μ_{αα̇}ϑ̄^{α̇}ϵ̃^μ_μ ∂_μ, (4.72)

where ϑ^α = √ r L θ^α = e^{A/2}θ^α. (4.73)

The N_5 = 1 super-Maxwell theory on AdS^5 can be recovered from (4.56) by writing [27, 46]

Φ =ϕ + √ 2ϑψ + ϑ^2F + iϑσ^μϑ̄ẽ^μ_μ ∂_μϕ + i √ 2 ϑ^2ϑ̄σ̄^μẽ^μ_μ ∂_μψ + 1 4 ϑ^2ϑ̄^2g̃^{μν} ∂_μ∂_ν ϕ

=ϕ + √ 2e^{A/2}θψ + e^Aθ^2F + iθσ^μθ̄δ^μ_μ ∂_μϕ + i √ 2 e^{A/2}θ^2θ̄σ̄^μδ^μ_μ ∂_μψ + 1 4 θ^2θ̄^2∂^2ϕ, (4.74a)

V = − ϑσ^μϑ̄ẽ^μ_μ A_μ + iϑ^2ϑ̄λ̄ − iϑ̄^2ϑλ + 1 2 ϑ^2ϑ̄^2D

= − θσ^μθ̄δ^μ_μ A_μ + ie^{3A/2}θ^2θ̄λ̄ − ie^{3A/2}θ̄^2θλ + 1 2 e^{2A}θ^2θ̄^2D. (4.74b)

The curl chiral superfield is likewise

W_α = − 1 4 D^2D̄_αV

= − iλ_α + ϑ_αD − i 2 (σ^μσ̄^ν )^β_α ϑ_βẽ^μ_μ ẽ^ν_ν F_{μν} + ϑ^2σ^μ_{αα̇}ẽ^μ_μ ∂_μλ̄^{α̇} + ϑσ^μϑ̄ẽ^μ_μ ∂_μλ_α

+ iϑ_αϑσ^μϑ̄ẽ^μ_μ ∂_μD + 1 2 (σ^μσ̄^ν )^β_α ϑ_β ϑσ^κϑ̄ẽ^μ_μ ẽ^ν_ν ẽ^κ_κ ∂_κF_{μν} − i 4 ϑ^2ϑ̄^2g̃^{μν} ∂_μ∂_ν λ_α

= − iλ_α + e^{A/2}θ_αD − i 2 e^{−3A/2} (σ^μσ̄^ν )^β_α δ^μ_μ δ^ν_ν θ_βF_{μν} + θ^2σ^μ_{αα̇}δ^μ_μ ∂_μλ̄^{α̇} + θσ^μθ̄δ^μ_μ ∂_μλ_α

+ ie^{A/2}θ_αθσ^μθ̄δ^μ_μ ∂_μD + 1 2 e^{−3A/2} (σ^μσ̄^ν )^β_α θ_β θσ^κθ̄δ^μ_μ δ^ν_ν δ^κ_κ ∂_κF_{μν} − i 4 θ^2θ̄^2∂^2λ_α, (4.74c)

– 17 – where D_α = e^{−A/2}D_α. The same result holds for M with A → A (ρ). The components of the chiral superfield are as in (4.53) except with

ϕ = Σ + iA_4 = Σ + ie^AA_ρ. (4.75a)

Similarly for the vector superfield,

D = X^3 − ∂_4Σ = X^3 − e^A∂_ρΣ, (4.75b)

where here we have used that the D7 is on AdS^5 × X^5 so that A = B̄. The off-shell action follows from (4.56) S = 1 g^2_5 ∫ M d^5x √ g̃e^{−3B} { 1 4 ∫ d^2ϑ W^αW_α + 1 4 ∫ d^2ϑ̄ W_{α̇}W^{α̇} + ∫ d^4ϑ ( 1 2 ( Φ+Φ )_∗ −e^A∂_ρV )_2} , (4.76)

where the additional factor of e^{3B} in the measure is introduced to match with the gauge kinetic term of (4.46). In terms of components, S = − 1 g^2_5 ∫ M d^5x √ g̃ ρ^3 L^3 e^{−3A} { 1 4 F_{mn}F^{mn} + i 2 λ̄_iγ̃^m∇_mλ^i + 1 2 ∂_mΣ∂^mΣ + i 2 m_λλ̄_i ( σ^3 )_i j λ^j + 1 2 m̄^2_ΣΣ^2 − 1 2 X^I X^I − βΣX^3 } , (4.77)

in which

m̄^2_Σ = 1 ρ^2 e^{2A} ( ρ^2A^{′′} + 2ρ^2A^{′2} − 3ρA^′ − 6 ) , m_λ = 1 2ρ e^A ( 3 − 2ρA^′ ) , β = 1 ρ e^A ( 3 − ρA^′ ) , where we have used that in the supersymmetric case B = A + log L/ρ. In the AdS^5 case, which can be recovered by taking μ → 0,

m̄^2_Σ = − 8 L^2

, m_λ = 1 2L , β = 2 L . (4.78)

The auxiliary fields can be easily integrated out,

X^{1,2} = 0, X^3 = −βΣ. (4.79)

Then the action can be written as (4.46) with

m^2_Σ = 1 ρ^2 e^{2A} ( ρ^2A^{′′} + 3ρ^2A^{′2} − 9ρA^′ + 3 )

m_λ = 1 2ρ e^A ( 3 − 2ρA^′ ) , α = 3e^A ρ ( 1 − ρA^′ ) , in which we have written λ = λ_1. Note that this agrees with the result in the previous subsection in supersymmetric limit B = A + log L/p. In the AdS case, we recover Lm_λ = 1/2, L^2m^2_Σ = −4, and α = 0.

– 18 –

5 Supersymmetric current-current correlators

We now turn to the calculation of the current-current correlators which, as discussed in section 2, can be used to calculate visible-sector soft terms. These two-point functions can be calculated by considering the dual classical gravity solution. We will make use of the method of holographic renormalization [49– 51]. The first step in the procedure is to solve the equations of motion near the boundary of the 5d spacetime M. The resulting on-shell action will be divergent but can be regularized by cutting off the spacetime at finite ρ = R. The divergences can be subtracted by the addition of an appropriate boundary term action and then the renormalized action is defined in the R → ∞ limit. The solution to the field equation for a particular field Φ that is dual to a operator O will be given in terms of two coefficients that are set by boundary conditions. One of these coefficients can be fixed by determining a boundary condition at ρ = ∞ while the other requires a boundary condition at small ρ. The former coefficient gives the leading behavior at large ρ and corresponds to a source for O while the second corresponds to the resulting point-point function for O. Higher-point functions can then be determined by differentiation of the one-point with respect to the source.

To employ these methods, it is convenient to define a coordinate u by du dρ = − 2u ρ e^{−B} . (5.1)

Then the metric for M is written as

ds^2_5 = e^{2A}η_{μν} dx^μdx^ν +

L^2 4u^2 du^2. (5.2)

5.1 Massless messengers

The gravity fields dual to the field theory operators can be inferred from (4.57). In order to fix the normalizations, we will first consider the case of AdS^5 with μ = 0. Since the spacetimes that we are considering are asymptotically anti-de Sitter, the normalizations will apply also in these other cases. Many of the results of this subsection have been presented previously in the literature.

5.1.1 Scalar current The interaction Lagrangian contains the term JD where D is the auxiliary component of the N_4 = 1 vector multiplet and J is the scalar component of the current superfield. The action for D was determined only in the supersymmetric case in section 4.2. The action after integrating it out in either the SUSY or non-SUSY case was determined in section 4.1 and since we are interested in only the on-shell action, this action is sufficient for calculating two-point functions. However, the off-shell action is required to determine the leading behavior of D and thus the duality between the boundary operator and the bulk field. Since the spacetimes we are considering are asymptotically AdS, we can apply the result of the AdS^5 case to the other spacetimes. The analysis of scalar correlators were performed early in the stages of AdS/CFT [15, 52, 53] though the analysis here follows the methods of holographic renormalization (see, e.g. [51]) with the slight difference that we consider an auxiliary field.

In the pure-AdS case, B = 0 and so (5.1) is solved by u = L^2 ρ^2

, (5.3)

– 19 – and the action for the scalar Σ is S = − 1 2 ∫ AdS^5 d^5x √ g̃ { g̃^{mn}∂_mΣ∂_nΣ + m^2Σ^2 } , (5.4)

in which m^2 = −4/L^2 and we have redefined the field to absorb a factor of g_5. The resulting equation of motion, using the coordinate u is

0 = 4u^2Σ^{′′} − 4uΣ^′ + 4Σ − uκ^2Σ, (5.5)

where we have performed a Fourier transformation on the Minkwoski spacetime and have defined κ^2 = L^2k^2 where k^2 is the momentum. This is solved by the series expansion

Σ = u ∞∑ n=0 { σ_{(2n)} + σ̃_{(2n)} log u } u^n, (5.6)

in which σ_{(0)} and σ̃_{(0)} are undetermined while for n > 0,

0 =4n^2σ_{(2n)} + 8nσ̃_{(2n)} − κ^2σ_{(2n−2)}, 0 =4n^2σ̃_{(2n)} − κ^2σ̃_{(2n−2)}. (5.7)

The scalar current J is dual to the auxiliary field D

D = X^3 + 2u L ∂_uΣ = 2u L^2 σ̃_{(0)} + · · · , (5.8)

where we have used the fact that on-shell X^3 = −^2_L Σ and have made a small u expansion. Since σ̃_{(0)} is leading order term, we identify it as the source for the field theory operator J. The other undetermined coefficient σ_{(0)} should then be identified with the response.

The regulated action is defined by cutting off the integral at some small u = ϵ. On-shell, this gives

S_{reg} = − 1 2 ∫ u≥ϵ d^5x √ g̃ { g̃^{mn}∂_mΣ∂_nΣ + m^2Σ^2 } = 1 2 ∫ u=ϵ d^4x √ h 2u L Σ∂_uΣ, (5.9)

where after the second equality we have integrated by parts, applied the equation of motion and have written the boundary metric as ds^2_4 = h_{μν} dx^μdx^ν . (5.10)

Inserting in the above solution, we find

S_{reg} = 1 L ∫ d^4k (2π)^4 { σ̃^2_{(0)} (log ϵ)^2 + 2σ_{(0)}σ̃_{(0)} log ϵ + σ̃^2_{(0)} log ϵ + · · · } , (5.11)

where · · · indicates those terms that are finite or vanishing as ϵ → 0. The action diverges in the limit ϵ → 0, but the divergence can be removed by adding a counterterm action

S_{ct} = −

1 + (log ϵ)^{−1} L ∫ u=ϵ d^4x √ hΣ^2. (5.12)

The subtracted action S_{sub} = S_{reg} + S_{ct}, (5.13)

– 20 – is then finite as ϵ → 0. Defining the renormalized action

S_{ren} = lim_{ϵ→0} S_{sub}, (5.14)

the response of the current J to the source σ̃_{(0)} is

⟨J⟩_s = 1 √ det (η_{μν} ) δS_{ren} δσ̃_{(0)}

. (5.15)

Using (5.14) ⟨J⟩_s = lim_{ϵ→0} 1 ϵ^2 √ h ϵ log ϵ δS_{sub} δΣ , (5.16)

where we have used the fact that for small u

Σ = σ̃_{(0)}u log u + · · · . (5.17)

Under Σ → Σ + δΣ at the boundary

δS_{sub} = 2 L ∫ u=ϵ d^4x √ h { u∂_uΣ − ( 1 + (log ϵ)^{−1} ) Σ } δΣ. (5.18)

Inserting in the above solution the divergent parts cancel and we get ⟨ J ⟩ s = − 2 L σ_{(0)}. (5.19)

The two-point function is then ⟨ J ( k ) J ( −k )⟩ = − δ ⟨J (k)⟩_s δσ̃_{(0)} (−k) | | |_{σ̃(0) =0} →

2D_0 L δσ_{(0)} δσ̃_{(0)} | | |_{σ̃(0) =0} , (5.20)

where the arrow indicates that have introduced a constant D_0 to account a possible normalization. In the AdS^5 case, it is possible to solve the equation of motion exactly and we get

Σ = N_0uI_0 ( κ √ u ) + M_0uK_0 ( κ √ u ) , (5.21)

where I_ν and K_ν are modified Bessel functions of the first and second kinds and κ = √ κ^2 and in this expression, κ is taken to be the Euclidean momentum. Demanding that Σ → 0 as u → ∞ gives the condition N_0 = 0. Then a small u expansion gives

Σ = u [ −M_0 (γ + log κ + log 2) −

M_0 2 log u + · · · ] , (5.22)

where γ is the Euler-Mascheroni constant. From this expression we read off

σ_{(0)} (k) = σ̃_{(0)} [ log κ^2 + 2γ − log 4 ] , (5.23)

giving ⟨ J (k) J (−k) ⟩ = 2D_0 L ( log κ^2 + 2γ − log 4 ) . (5.24)

The non-analytic behavior in k is completely determined by conformal invariance and has the expected form. Additionally, we have suppressed a factor of (2π)^4 δ^4 (0) resulting from momentum conservation.

– 21 –

The correlator for the operator dual to a BF scalar in AdS^{d+1} was first calculated in [53] and in position space ⟨ O ( x ) O ( 0 )⟩ = 2 π^2 1 x^4

+ (contact terms) . (5.25)

Note that the dual operator J that we consider here is not precisely dual to the BF scalar Σ but is instead dual to the auxiliary field D. However, since D latter is closely related to the BF scalar we will use the result of [53] to fix the normalization. Fourier transforming and comparing to (5.24), we get D_0 = −L.

5.1.2 Vector current A similar analysis applies for the vector correlators [53] though again we apply the method of holographic renormalization as in, e.g., [50]. The bulk field due to the vector current j_μ are the components A_μ of the 5d vector field. The action for the vector field is S = − 1 4 ∫ AdS^5 d^5x √ g̃g̃^{mn}g̃^{st}F_{ms}F_{nt}, (5.26) resulting in the equations of motion

0 =4u^2A_μ + uL^2∂^2A_μ − uL^2∂_μ ( ∂ · A ) − 4u^2∂_μ ( ∂_uA_u ) , 0 =u∂^2A_u − u∂_u ( ∂ · A ) , (5.27)

where ∂ · A := η^{μν} ∂_μA_ν and as before ∂^2 = η^{μν} ∂_μ∂_ν . In section 4.1, we imposed the 5d Lorenz condition ~∇^mA_m = 0. (5.28)

For the metric (5.2), the non-vanishing Christoffel symbols are

Γ̃^u_{uu} = − 1 u , Γ̃^u_{μν} = 2 L^2 η_{μν} , Γ̃^μ_{uν} = − 1 2u δ^μ_ν , (5.29)

and so the Lorenz condition becomes

0 = uL^2∂ · A + 4u^2∂_uA_u − 4uA_u. (5.30)

Then the equations of motion become

4iuk_μA_u =4u^2∂^2_uA_μ − uκ^2A_μ, (5.31a) 0 =4u^2∂^2_uA_u − uκ^2A_u. (5.31b)

The solution to (5.31b) is

A_u = ∞∑ n=0 { a_{(2n)} + ã_{(2n)} log u } u^n, (5.32)

in which ã_{(0)} = 0 while a_{(0)} and a_{(2)} are undetermined. For n > 0,

0 =4n (n − 1) a_{(2n)} + 4 (2n − 1) ã_{(2n)} − κ^2a_{(2n−2)}, 0 =4n (n − 1) ã_{(2n)} − κ^2ã_{(2n−2)}. (5.33)

– 22 –

The homogeneous part of (5.31a) has a similar solution

A^{(H)}_μ = ∞∑ n=0 { a_{μ(2n)} + ã_{μ(2n)} log u } u^n, (5.34)

with ã_{μ(0)} = 0, a_{μ(0)} and a_{μ(2)} undetermined, and for n > 0,

0 =4n (n − 1) a_{μ(2n)} + 4 (2n − 1) ã_{μ(2n)} − κ^2a_{μ(2n−2)}, 0 =4n (n − 1) ã_{μ(2n)} − κ^2ã_{μ(2n−2)}. (5.35)

For the inhomogeneous part, we write

A^{(I)}_μ = −ik_μ ∞∑ n=0 { α_{(2n)} + α̃_{(2n)} log u } u^n. (5.36)

This leads to α̃_{(0)} = 0. For n > 0,

0 =4n (n − 1) α_{(2n)} + 4 (2n − 1) α̃_{(2n)} + 4a_{(2n−2)} − κ^2α_{(2n)}, 0 =4n (n − 1) α̃_{(2n)} + 4ã_{(2n−2)} − κ^2α̃_{(2n−2)}. (5.37)

We can add some of the homogeneous solution to set α̃_{(2)} = 0.

The gauge-fixing condition in Fourier space is

0 = 4u^2∂_u − 4uA_u + iLuκ^μA_μ, (5.38)

where κ^μ := η^{μν} κ_ν . This imposes the relations

0 =iLκ^μa_{μ(2n)} + 4 (n − 1) a_{(2n)} + 4ã_{(2n)} − κ^2α_{(2n)}, 0 =iLκ^μã_{μ(2n)} + 4 (n − 1) ã_{(2n)} − κ^2α̃_{(2n)}. (5.39)

Note that the latter implies κ^μã_{μ(2)} = κ^μa_{μ(0)} = 0.

With this solution, the regulated action is

S_{reg} = 1 L ∫ d^4k (2π)^4 η^{μν} κ^2 4 a_{μ(0)}a_{ν(0)} log ϵ + · · · . (5.40)

The divergence can be cancelled by adding the counterterm action

S_{ct} = −

L log ϵ 8 ∫ u=ϵ d^4x √ hh^{μν} h^{στ} F_{μσ} F_{ντ} . (5.41) Writing A_μ = ∑ n=0 { A_{μ(n)} + Ã_{μ(n)} log ϵ } u^n, (5.42)

the leading behavior of A_μ is A_μ = A^{(0)}_μ + O ( u ) , (5.43) and so the response function in the dual field theory is

⟨j_μ⟩_s = 1 √ det (η_{μν} ) δS_{ren} δA^μ_{(0)}

= lim_{ϵ→0} 1 ϵ^2 √ h δS_{sub} δA^μ ,

– 23 – where as before, S_{sub} = S_{reg} + S_{sub} and S_{ren} is the limit of this sum as ϵ → 0 and the μ index has been raised with η^{μν} . Under A_μ → A_μ + δA_μ at the boundary,

δS_{sub} = 2 L ∫ u=ϵ d^4x √ hϵ^2 { F_{uμ} + L^2 log ϵ 8 η^{σκ}∂_σ F_{κμ} } A^μ. (5.44)

Inserting in the above solution gives ⟨ j_μ ⟩ s = 2 L ( a_{μ(2)} − k_μk^ν k^2 a_{ν(2)} + κ^2 4 a_{μ(0)} ) . (5.45)

Using that k^μa_{μ(0)} = 0, this gives ⟨ j_μ ⟩ s = 2 L ( δ^ν_μ − k_μk^ν k^2 )( a_{ν(2)} + κ^2 4 a_{ν(0)} ) . (5.46)

Note that the longitudinal part is projected out, as expected for a conserved current. Since the solution to the inhomogeneous equation is transverse, we have ⟨ j_μ ( k ) j_ν ( −k )⟩ = − δ ⟨ j_μ ( k )⟩ s δA^ν_{(0)} ( −k ) | | | |_{aν(0)κ=0} → − 2D_1 L ( δ^λ_μ − k_μk^λ k^2 ) ( δa_{λ(2)} δa^ν_{(0)} + κ^2 4 η_{λν} ) . (5.47)

In the AdS^5 case, we can again solve the equations of motion exactly, and the solution to the homogeneous part of (5.31a) is

A^{(H)}_μ = N_μ √ uI_1 ( κ √ u ) + M_μ √ uK_1 ( κ √ u ) . (5.48)

Demanding that A_μ → 0 as u → ∞ sets N_μ = 0. Then expanding for small u,

A^{(H)}_μ = M_μ κ + κM_μ 4 u ( log κ^2 + 2γ − log 4 − 1 ) + κM_μ 4 u log u + · · · , (5.49)

so that

a_{μ(2)} = κ^2a_{μ(0)} 4 ( log κ^2 + 2γ − log 4 − 1 ) , (5.50)

giving ⟨ j_μ ( k ) j_ν ( −k )⟩ = − D_1L 2 ( k^2δ_{μν} − k_μk_ν ) ( log κ^2 + 2γ − log 4 ) , (5.51)

where we have again moved into Euclidean space. Note that this satisfies ⟨ j_μ ( k ) j_ν ( −k )⟩ ∝ − ( k^2δ_{μν} − k_μk_ν )⟨ J ( k ) J ( −k )⟩ , (5.52)

as expected from supersymmetry.

5.1.3 Spinor current

We now turn to the analysis of the spinor current [53, 54], making use of holographic renormalization techniques as in [55]. It was argued in [56] that the action must be supplemented by a particular boundary term, S = −i ∫ AdS^5 d^5x √ g̃ { λ̄γ̃^m ~∇_mλ + mλ̄λ } + i 2 ∫ δAdS^5 d^4x √ hλ̄λ, (5.53)

– 24 – in which m = 1/2L. The non-vanishing components of spin connection are ω̃^{4π}_μ = 2 L √ u δ^π_μ , (5.54) and so the equation of motion resulting from this action is 0 = iκ_μ √ uγ̃^μδ^μ_μ λ − 2uγ_{(4)}∂_uλ + 2γ_{(4)}λ + 1 2 λ. (5.55) Following [53], we apply γ̃^m∂_m, giving 0 = 4u^2∂^2_uλ − 6u∂_uλ + 1 2 γ_{(4)}λ + 23 4 λ − uκ^2λ. (5.56) Writing λ as λ = ( λ_L iλ̄_R ) , (5.57) we get the solutions

λ_L =u^{3/4} ∞∑ n=0 { λ_{L(2n)} + λ̃_{L(2n)} log u } u^n,

λ_R =u^{5/4} ∞∑ n=0 { λ_{R(2n)} + λ̃_{R(2n)} log u } u^n, (5.58)

in which λ_{L(0)} and λ_{L(2)} are undetermined, λ̃_{L(0)} = 0 and for n > 0, 0 =4n (n − 1) λ_{L(2n)} + 4 (2n − 1) λ̃_{L(2n)} − κ^2λ_{L(2n−2)}, 0 =4n (n − 1) λ̃_{L(2n)} − κ^2λ̃_{L(2n−2)}. (5.59) Similarly λ_{R(0)} and λ̃_{R(0)} are (for the moment) unfixed and 0 =4n^2λ_{R(2n)} + 8nλ̃_{R(2n)} − κ^2λ_{R(2n−2)}, 0 =4n^2λ̃_{R(2n)} − κ^2λ̃_{R(2n−2)}. (5.60) Writing λ_L = u^{3/4}χ_L and λ_R = u^{5/4}χ_R, the Dirac equation (5.55) gives the (not independent) relations 0 =2χ^′_L − κ_μσ^μδ^μ_μ χ̄_R, 0 =2uχ̄^′_R + κ_μσ̄^μδ^μ_μ χ_L. (5.61) Matching coefficients 0 =2nλ_{L(2n)} + 2λ̃_{L(2n)} − κ_μδ^μ_μ σ^μλ̄_{R(2n−2)}, 0 =2nλ_{L(2n)} − κ_μδ^μ_μ σ^μ ¯λ̃_{R(2n−2)}, 0 =2nλ̄_{R(2n)} + 2¯λ̃_{R(2n)} + κ_μδ^μ_μ σ̄^μλ_{L(2n)}, (5.62) 0 =2n¯λ̃_{R(2n)} + κ_μδ^μ_μ σ̄^μλ̃_{L(2n)}.

The spinor current j on the boundary couples to λ_L. We have λ_L = λ_{L(0)} + O ( u ) , (5.63)

– 25 – and so λ_{L(0)} is the source for the dual current j and λ_{L(2)} is the response.

On-shell, the bulk part of the action (5.53) vanishes, and so the regulated action comes only from

the boundary term

S_{reg} = 1 2 ∫ d^4k

(2π)^4 {~ λ_{R(0)}λ_{L(0)} + ¯λ̃_{R(0)}λ̄_{L(0)} } log ϵ + · · · , (5.64)

where we have used the fact that λ̃_{L(0)} = 0. Making use of (5.62), this is

S_{reg} = − 1 2 ∫ d^4k

(2π)^4 λ̄_{L(0)}σ̄^μδ^μ_μ κ_μλ_{L(0)} log ϵ + · · · . (5.65)

The divergences can be canceled by the counterterm

S_{ct} = − iL log ϵ 2 ∫ u=ϵ d^4x √ hλ̄γ̃^μ ~∇_μ 1 2 ( 1 − γ_{(4)} ) λ. (5.66)

The response function is ⟨ j_α ⟩ = 1 √ det (η_{μν} ) δS_{ren}

δλ^α_{L(0)}

= lim_{ϵ→0} ϵ^{3/4} ϵ^2 √ h δS_{sub} δλ^α_L . (5.67)

This gives ⟨ j_α ⟩ s = 1 2 lim_{ϵ→0} ϵ^{−5/4} { λ_{Rα} + λ̄_{Lα̇} δλ̄^{α̇}_R δλ^α_L + ϵ^{1/2} log ϵλ̄_{Lβ̇} κ_μδ^μ_μ σ̄^{μβ̇γ} ϵ_{γα} } , (5.68)

where we have used the fact that on shell, λ̄_R and λ_L are not independent and indeed at small u

λ̄_R = − 1 2 u^{1/2} log uκ_μδ^μ_μ σ̄^μλ_L + · · · . (5.69)

Thus, ⟨ j_α ⟩ s = 1 2 lim_{ϵ→0} ϵ^{−5/4} { λ_{Rα} + 1 2 ϵ^{1/2} log ϵλ̄_{Lβ̇} κ_μδ^μ_μ σ̄^{μβ̇γ} ϵ_{γα} } = 1 2 λ_{Rα(0)}. (5.70)

Making use of (5.62) and (5.58), this gives ⟨ j_α ⟩ s = −κ_μδ^μ_μ σ^μ_{αα̇} { 1 κ^2 λ̄^{α̇}_{L(2)} + 1 4 λ̄^{α̇}_{L(0)} } . (5.71)

The two point functions are ⟨ j_α ( k ) j_β ( −k )⟩ = δ ⟨j_α (k)⟩ δλ^β_{L(0)} (−k) | | | |_{λL(0) =0} ,

⟨ j_α ( k )¯ j_{β̇} ( −k )⟩ = δ ⟨j_α (k)⟩ δλ̄^{β̇}_{L(0)} (−k) | | | | |_{λ̄L(0) =0}

. (5.72)

So in this case, ⟨ j_α ( k ) j_β ( −k )⟩ = 0, ⟨ j_α ( k )¯ j_{β̇} ( −k ) ⟩ → −D_{1/2}κ_μδ^μ_μ σ^μ_{αα̇} { 1 κ^2 δλ̄^{α̇}_{L(2)}

δλ̄^{β̇}_{L(0)} + 1 4 δ^{α̇}_{β̇} } . (5.73)

– 26 –

In the AdS^5 case, we have the exact solution

λ_{Lα} = N_αu^{5/4}I_1 ( κ √ u ) + M_αu^{5/4}K_1 ( κ √ u ) (5.74)

Again imposing that λ_{L→0} as u → 0 sets N_α = 0, and so for small u

λ_{Lα} = M_αu^{3/4} [ 1 κ + κ 4 ( log κ^2 + 2γ − log 4 − 1 ) u + κ 4 u log u + · · · ] , (5.75)

from which we read off

λ_{L(2)} = κ^2λ_{L(0)} 4 ( log κ^2 + 2γ − log 4 − 1 ) , (5.76)

and so ⟨ j_α ( k )¯ j_{β̇} ( −k )⟩ = − D_{1/2} 4L k_μδ^μ_μ σ^μ_{αβ̇} ( log κ^2 + 2γ − log 4 ) . (5.77)

The correlators satisfy the relations ⟨ j_α ( k ) j_β ( −k )⟩ =0 (5.78) ⟨ j_α ( k )¯ j_{β̇} ( −k )⟩ ∝ − k_μδ^μ_μ σ^μ_{αβ̇} ⟨ J ( k ) J ( −k )⟩ , (5.79)

as again expected from SUSY.

5.2 Massive messengers

The messengers can be made massive by taking μ > 0. In this case, it turns out to be easier to work

with the ρ coordinate. This system was considered also in [57] and we follow that work closely, but

here we go beyond just determination of the spectrum to find the full two-point functions. We have A = 1 2 log ( ρ^2 + μ^2

L^2 ) , B = 1 2 log ( ρ^2 + μ^2

ρ^2 ) . (5.80)

From (4.46), the equation of motion for the scalar is 0 = e^{3B} √ g̃ [√ g̃e^{−3B}g̃^{mn}∂_mΣ ] − m^2_ΣΣ =e^{−2A+4B} ρ∂_ρ [ e^{4A−2B} ρ∂_ρΣ ] − e^{2A}L^2m^2_ΣΣ − κ^2Σ. (5.81)

Writing ρ = μp, 0 = 1 + p^2

p^3 d dp [ p^3 ( 1 + p^2

) dΣ dp ] − ν^2Σ −

3 − 2p^2 − 4p^4

p^2

Σ, (5.82)

in which ν^2 = L^4k^2/μ^2. Taking

Σ = p^m ( 1 + p^2 )_n P ( p ) , (5.83)

This equation becomes 0 = ( 1 + p^2

) d^2P

dp^2 + 1 p [( 5 + 2m + 4n ) p^2 + ( 3 + 2m )] dP dp + 1 p^2 (1 + p^2) [( 2 + m + 2n

)_2

p^4 + ( 2 + 8n + 2m ( 3 + m + 2n ) − ν^2 ) p^2 + ( m + 3 )( m − 1 )] P. (5.84)

– 27 –

Defining y = −p^2,

0 = y ( 1 − y ) d^2P

dy^2 + [ − ( 3 + m + 2n ) y + ( 2 + m )] dP dy − 1 4 (y − 1) [( 2 + m + 2n

)_2 y − ( 2 + 8n + 2m ( 3 + m + 2n ) − ν^2 ) + 1 y ( 3 + m )( m − 1 )] P. (5.85)

This can be cast as a hypergeometric differential equation

0 = y ( y − 1 ) d^2P

dy^2 + [ − ( a + b + 1 ) y + c ]dP dy − ab P, (5.86) by taking m = 1, n = − 1 2 √ 1 − ν^2 =: η. (5.87)

Then the full solution is

Σ = p ( 1 + p^2 )_η { M_0 F ( 3 2 + η, 3 2 + η; 3; −p^2 ) + N_0 p^{−4}F ( − 1 2 + η, − 1 2 + η; −1; −p^2 )} , (5.88)

in which F ( a, b; c; y ) is the hypergeometric function. Demanding that Σ be regular at y = 0 sets N_0 = 0. The solution to (5.1) is^{14} ρ = L √ u ( 1 − μ^2u 4L^2 ) , u ∈ [ 0, 4L^2/μ^2 ] , (5.89)

and a small u expansion gives Σ = −8M_0μ^2 L^2πν^2 cos ( πη ) u [ ψ ( 3 2 + η ) + ψ ( 3 2 − η ) + log ( μ^2 L^2 ) + 2γ + log u ] + · · · , (5.90)

in which ψ is the digamma function. This gives the correlator function (c.f. (2.5)).

C_0 =

2D_0 L [ ψ ( 3 2 + η ) + ψ ( 3 2 − η ) + log ( μ^2 L^2 ) + 2γ ] , (5.91)

in which again ν^2 =

L^4k^2 μ^2 , η = − 1 2 √ 1 − ν^2. (5.92)

In the limit where μ → 0, this agrees with the result in the conformal case.

The digamma functions have poles corresponding to resonances located at

k^2 = −

4μ^2 L^4 ( ℓ + 1 )( ℓ + 2 ) , ℓ ∈ N, (5.93) agreeing with the analysis of [57].

14There is an overall multiplicative factor arising as an integration constant. A choice different from the one here would change the leading term of e^{2A} by a multiplicative constant, and the result of section 5.1 would have to be re-performed. The end of result of course would be the same. With this choice of the integration constant, naive application of the expressions for the dual stress-energy tensor presented in [58] would imply that ⟨T_{μν} ⟩ ≠ 0. However, since the analysis leading to those results makes use of the Einstein equations for the 5d metric and the metric above doesn’t satisfy such equations (that is, the pullback of the 10d metric onto the worldvolume of course satisfies the pullback of the Einstein equations, but does not satisfy Einstein equations built from the pullback metric alone since generally the pullback of curvature tensors are different from the curvature of the pullback of the metric), the analysis does not apply.

– 28 –

For the vectors, the equation of motion is 0 = e^{3B} √ g̃ ∂_m [√ g̃e^{−3B}g̃^{mn}g̃^{st}F_{nt} ] . (5.94) So, 0 =e^{4B} ρ ∂_ρ [ e^{2A−2B} ρ ( ∂_ρA_μ − ∂_μA_ρ )] + L^2∂^2A_μ − L^2∂_μ ( ∂ · A ) , (5.95) 0 =∂^2A_ρ − ∂_ρ ( ∂ · A ) . The Christoffel symbols are

Γ̃^ρ_{ρρ} = − 1 ρ ( 1 + ρB^′ ) , Γ̃^ρ_{μν} = − ρ^2A^′ L^2 e^{2A+2B} η_{μν} , Γ̃^μ_{ρν} = A^′δ^μ_ν , (5.96)

and so the gauge-fixing condition becomes

0 = g̃^{mn} ~∇_mA_n = e^{−2A}∂ · A + ρ L^2 e^{2B} ( 4ρA^′ + ρB^′ + 1 ) A_ρ + ρ^2 L^2 e^{2B} ∂_ρA_ρ. (5.97)

With this condition, the equation of motion for A_μ is − ρ e^{2A+2B} ( 2ρA^′ + 3ρB^′ ) ik_μA_ρ = ρ e^{4B} ∂_ρ [ ρ e^{2A−2B} ∂_ρA_μ ] − κ^2A_μ, (5.98)

and that for A_ρ is

0 = ρ^2e^{2A+2B} ∂^2_ρ A_ρ + ( 6ρA^′ + 3ρB^′ + 3 ) e^{2A+2B} ρ∂_ρA_ρ + ( 4ρ^2A^{′′} + ρ^2B^{′′} + 8ρ^2A^{′2} + 2ρ^2B^{′2} + 10ρ^2A^′B^′ + 10ρA^′ + 4ρB^′ + 1 ) e^{2A+2B} A_ρ. (5.99)

The homogeneous part of (5.98) is 0 = ( 1 + p^2

)_2

p^3 d dp [ p^3 dA_μ dp ] − ν^2A_μ, (5.100)

the general solution to which is

A_μ = ( 1 + p^2

) 1_{2 +η} {( M_μF ( 3 2 + η, 1 2 + η; 2; −p^2 ) + N_μ p^{−2}F ( 1 2 − η, − 1 2 − η; 0; −p^2 )} . (5.101)

Regularity imposes N_μ = 0 and at small u,

A_μ =

M_μ cos ( πη ) πν^2 { 4 + μ^2ν^2 L^2 [ ψ ( 3 2 + η ) + ψ ( 3 2 − η ) + log ( μ^2 L^2 ) + 2γ − 1 ] u } + · · · . (5.102)

From this and (5.47), we find C_1 = C_0 where C_0 is as in (5.91).

The Dirac equation is 0 = (~ /∇ + m_λ + αγ_{(4)} ) λ (5.103) 0 = { e^{−A}γ̃^μδ^μ ∂_μ + ρ L e^B γ_{(4)}∂_ρ + ( α + 2A^′ρ L e^B ) γ_{(4)} + m_λ } λ. (5.104)

– 29 –

Again applying γ̃^m∂_m,

0 = ρ^2e^{2B+2A}∂^2_ρ λ + ( 5ρA^′ + ρB^′ + 1 + 2αLe^{−B} ) ρ e^{2B+2A}∂_ρλ + [ 2ρ^2 ( A^{′′} + 3A^{′2} + A^′B^′ ) + ρ ( 2A^′ + α^′Le^{−B} + 5A^′αLe^{−B} ) + ( α^2 − m^2_λ ) L^2e^{−2B} ] e^{2B+2A}λ + ( ρA^′m_λL + ρm^′_λL ) e^{B+2A}γ_{(4)}λ − κ^2λ. (5.105)

For the left-handed spinor, 0 = ( 1 + p^2

)_2 d^2λ_L

dp^2 + 3 ( 1 + p^2 ) (1 + 2p^2 ) p dλ_L dp + 3 ( 8 + 7p^2 ) 4 λ_L − ν^2λ_L. (5.106)

This is solved by

λ_L = ( 1 + p^2

)_{η−} 1_4 { M_L F ( 3 2 + η, 1 2 + η; 2; −p^2 ) + N_L p^{−2}F ( 1 2 − η, − 1 2 − η; 0; −p^2 )} . (5.107)

Regularity again imposes that N_L = 0, and then at small u,

λ_L =

M_Lμ^{3/2} cos ( πη ) u^{3/4} πν^2L^{3/2} { 4 + μ^2ν^2 L^2 [ ψ ( 3 2 + η ) + ψ ( 3 2 − η ) + log ( μ^2 L^2 ) + 2γ − 1 ] u } + · · · , (5.108)

and so, using (5.73), we get C_{1/2} = C_1 = C_0 and B_{1/2} = 0.

6 Non-supersymmetric correlators

We now turn to the analysis of non-supersymmetric cases which is our main interest in this work. In particular, we consider a normalizable non-supersymmetric perturbation to the above geometry and recalculate the correlators of section 5 in this perturbed background. As discussed in section 3, these classical two-point functions correspond to the current-current correlators of the hidden sector after the latter has obtained a non-supersymmetric state and so calculation of these functions is tantamount to calculation of visible-sector soft terms resulting from the gauge mediation of supersymmetry breaking.

Inspired by the well-studied case in Klebanov-Strassler [20, 30, 31], the toy case that we consider is the addition of p D3-D3 pairs to AdS^5 × X^5. The geometry was considered in [30] and (as argued in [30]) can be found by taking a near-horizon limit of geometries considered in [59]. In our notation, the solution is

A = log ( r L ) − L^8S 5r^8

, B̄ = log ( r L ) − L^8S 10r^8

, C = log ( r L ) + 3L^8S 10r^8

, (6.1)

in which we have taken S =^p_N to be a small parameter. It was pointed out in [30] that the perturbations are such that ⟨T_{μν} ⟩ = 0 and so the dual supersymmetry, which is rigid, is unbroken. This should be reflected in the correlators resulting from this background. Nevertheless, we find below that the messenger spectrum is split and therefore the correlators do not respect the relationships expected from supersymmetry. Presumably, this is related to the fact that a finite messenger mass spoils the conformal behavior of the dual theory and taking into account the backreaction of the D7s should result in a finite vacuum energy.

To leading order in S, the equation of motion for the scalar field takes the form 0 = { 1 + p^2

p^3 d dp [ p^3 ( 1 + p^2 ) ( 1 − δ (1 + p^2)^4 ) d dp ] − 3 − 2p^2 − 4p^4 p^2 ( 1 − δ (1 + p^2)^4 ) − ν^2 } Σ, (6.2)

– 30 – in which δ = 3L^8 5μ^8

S. (6.3)

This is a Sturm-Liouville problem and so for a set of boundary conditions the solutions will be orthogonal with respect to the inner product ( Σ_ℓ, Σ_ℓ′ ) 0 = ∫_∞ 0 dp p^3 1 + p^2

Σ_ℓΣ_ℓ′ ∝ δ_{ℓℓ}′ . (6.4)

Instead of attempting to solve (6.2) directly, we can apply perturbation theory. When δ = 0, (6.2) is again a Sturm-Liouville problem and so the solutions are orthogonal with respect to the same inner product. The solutions that are regular were found in the last section, and the resulting correlation function (5.91) can be written as

C_0 =

2D_0 L ∞∑ ℓ=0 −4 (3 + 2ℓ) ν^2 + 4 (ℓ + 1) (ℓ + 2)

+ · · · , (6.5)

where we have omitted the contact terms that were specified by holographic renormalization. The simple structure of this correlator is a consequence of the fact that the messengers form mesonic bound states which are free in the large N limit [60].

The correlator in the perturbed geometry should be expressible in a similar way

C_0 =

2D_0 L ∞∑ ℓ=0 Z_ℓ ν^2 + L^4m^2_ℓ /μ^2

+ · · · . (6.6)

The precise form of this requires the precise solution which we will not attempt to find. However, we can find the spectrum perturbatively by writing the equation of motion (6.2) for the modes corresponding to these poles as H_0Σ_ℓ = λ_ℓΣ_ℓ, (6.7)

with λ_ℓ = −L^4m^2_ℓ /μ^2. When δ = 0,

H_0 = H^{(0)}_0 =

1 + p^2 p^3 d dp [ p^3 ( 1 + p^2 ) d dp ] − 3 − 2p^2 − 4p^4

p^3

. (6.8)

For δ ≠ 0, we write H_0 = H^{(0)}_0 + δH^{(1)}_0 with

H^{(1)}_0 = 8p (1 + p^2)^3 d dp − 1 (1 + p^2)^4

H^{(0)}_0 . (6.9)

The unperturbed spectrum is λ^{(0)}_ℓ = −4 (ℓ + 1) (ℓ + 2) and the corresponding eigenfunctions,

Σ^{(0)}_ℓ = M_ℓ p ( 1 + p^2

)_− 3_{2 −ℓ} F ( −ℓ, −ℓ; 3; −p^2 ) , (6.10)

form a complete set of functions that vanish as p → ∞ and, by appropriate choice of M_ℓ, are orthonormal with respect to (6.4). We similarly expand λ^{(0)}_ℓ + δλ^{(1)}_ℓ and Σ_ℓ = Σ^{(0)}_ℓ + δΣ^{(1)}_ℓ with

Σ^{(1)}_ℓ = ∑ ℓ^′ c_{ℓℓ}′ Σ^{(0)}_ℓ′ . (6.11)

– 31 –

Demanding that Σ_ℓ is normalized sets c_{ℓℓ} = 0. It follows then

λ^{(1)}_ℓ = ( Σ^{(0)}_ℓ , H^{(1)}_0 Σ^{(0)}_ℓ ) 0 . (6.12)

Since ℓ is an integer, the solutions are a polynomial of order ℓ and so these integrals can be easily performed. The resulting spectrum appears in table 1. Meanwhile, for ℓ^′ ≠ ℓ,

c_{ℓℓ}′ = ( Σ^{(0)}_ℓ′ , H^{(1)}_0 Σ^{(0)}_ℓ ) 0 λ^{(0)}_ℓ − λ^{(0)}_ℓ′

. (6.13)

The homogeneous equation for A_μ = a_μA takes the form 0 = { ( 1 + p^2

)_2

p^3 ( 1 − 2 3 δ (1 + p^2)^4 ) d dp [ p^3 ( 1 − 1 3 δ (1 + p^2)^4 ) d dp ] − ν^2 } A. (6.14)

Here the appropriate inner product is ( A_ℓ, A_ℓ′ ) 1 = ∫_∞ 0 dp p^3 (1 + p^2)^2 ( 1 + 2 3 δ (1 + p^2)^4 ) A_ℓA_ℓ′ . (6.15)

The equation of motion takes the form H_1A_ℓ = λ_ℓA_ℓ with

H_1 =H^{(0)}_1 + δH^{(1)}_1 ,

H^{(0)}_1 = ( 1 + p^2

)_2

p^3 d dp [ p^3 d dp ] , (6.16)

H^{(1)}_1 = 8p 3 (1 + p^2)^3 d dp − 1 (1 + p^2)^4

H^{(0)}_1 .

The solutions to the δ = 0 equation are

A^{(0)}_ℓ = M_ℓ ( 1 + p^2 )_{−1−n} F ( −n, −1 − n; 2; −p^2 ) . (6.17)

These are orthonormal with respect to ⟨ A^{(0)}_ℓ , A^{(0)}_ℓ′ ⟩ 1 = ∫_∞ 0 dp p^3 (1 + p^2)^2

A_ℓA_ℓ′ . (6.18)

Write A_ℓ = A^{(0)}_ℓ + δA^{(1)}_ℓ with A^{(1)}_ℓ = ∑ ℓ^′ c_{ℓℓ}′ A_ℓ′ , (6.19)

then imposing ( A_ℓ, A_ℓ ) 1 = 1 sets c_{ℓℓ} = − 1 3 ∫_∞ 0 dp p^3 (1 + p^2)^2 1 (1 + p^2)^4

A^{(0)}_ℓ A^{(0)}_ℓ . (6.20)

While as with the scalar, λ^{(1)}_ℓ = ⟨ A^{(0)}_ℓ , H^{(1)}_1 A^{(0)}_ℓ ⟩ 1, (6.21) and for ℓ^′ ≠ ℓ, c_{ℓℓ}′ = ⟨ A^{(0)}_ℓ′ , H^{(0)}_1 A^{(0)}_ℓ ⟩ 1 λ^{(0)}_ℓ − λ^{(0)}_ℓ′

. (6.22)

– 32 –

Writing λ^α_L = a^α_Lψ, the equation of motion for the spinor takes the form 0 = { f ( p ) d^2 dp^2 + g ( p ) d dp + h ( p ) − ν^2 } ψ, (6.23)

with f ( p ) = ( 1 + p^2

)_2 ( 1 − δ (1 + p^2)^4 ) , g ( p ) = 3 ( 1 + p^2 ) ( 1 + 2p^2 ) p ( 1 + δ ( −9 + 14p^2 ) 9 (1 + p^2)^4 (1 + 2p^2) ) , (6.24) h ( g ) = 3 ( 8 + 7p^2 ) 4 ( 1 + 7δ ( 8 − 9p^2 ) 9 (1 + p^2)^4 (8 + 7p^2) ) . (6.25)

We can cast (6.23) as a Sturm-Liouville problem 0 = { fe^{−ζ} d dp [ e^ζ d dp ] + h − ν^2 } ψ, (6.26)

in which ζ ( p ) = ∫_p dp^′ g (p^′) f (p^′)

. (6.27)

Then, 0 = { √ 1 + p^2 p^3 ( 1 + δ 3 (1 + p^2)^4 ) d dp [ p^3 ( 1 + p^2 )_{3/2} ( 1 − 4 3 δ (1 + p^2)^4 ) d dp ]

+ 3 ( 8 + 7p^2 ) 4 ( 1 + 7 9 δ ( 8 − 9p^2 ) (1 + p^2)^4 (8 + 7p^2) ) − ν^2 } ψ. (6.28)

The inner product is ( ψ_ℓ, ψ_ℓ′ ) 1/2 = ∫_∞ 0 dp p^3 √ 1 + p^2 ( 1 − δ 3 (1 + p^2)^4 ) ψ_ℓψ_ℓ′ . (6.29)

The equation of motion is H_{1/2}ψ_ℓ = λ_ℓψ_ℓ with

H_{1/2} =H^{(0)}_{1/2} + δH^{(1)}_1 ,

H^{(0)}_{1/2} = √ 1 + p^2 p^3 d dp [ p^3 ( 1 + p^2

)_{3/2} d dp ] + 3 ( 8 + 7p^2 ) 4 , (6.30)

H^{(1)}_{1/2} = 32p 3 (1 + p^2)^3 d dp + 7 ( 8 − 9p^2 ) 12 (1 + p^2)^4 − 1 (1 + p^2)^4

H^{(0)}_{1/2}.

For δ = 0, the solutions take the form

ψ^{(0)}_ℓ = M_ℓ ( 1 + p^2 )_{−7/4−ℓ} F ( −ℓ, −1 − ℓ; 2; −p^2 ) , (6.31)

and are orthonormal with respect to the inner product ⟨ ψ^{(0)}_ℓ , ψ^{(0)}_ℓ′ ⟩ 1/2 = ∫_∞ 0 dp p^3 √ 1 + p^2 ψ_ℓψ_ℓ′ (6.32)

– 33 –

Writing again ψ^{(1)}_ℓ = ∑ ℓ^′ c_{ℓℓ}′ ψ^{(0)}_ℓ′ , (6.33)

and imposing (ψ_ℓ, ψ_ℓ)_{1/2} = 1 sets c_{ℓℓ} = 1 6 ∫_∞ 0 dp p^3 √ 1 + p^2 1 (1 + p^2)^4 ψ^{(0)}_ℓ ψ^{(0)}_ℓ . (6.34)

Once again the perturbations to the masses are

λ^{(1)}_ℓ = ⟨ ψ^{(0)}_ℓ , H^{(1)}_{1/2}ψ^{(0)}_ℓ ⟩ 1/2 , (6.35)

while for ℓ ≠ ℓ^′, c_{ℓℓ}′ = ⟨ ψ^{(0)}_ℓ′ , H^{(0)}_{1/2}ψ^{(0)}_ℓ ⟩ 1/2 λ^{(0)}_ℓ − λ^{(0)}_ℓ′

. (6.36)

The residues Z_ℓ can be obtained as follows (see [61]). At large p, the solution for the scalar mode takes the form^{15} Σ = σ_1p^{−2} + σ_2p^{−2} log p + · · · . (6.37)

When the 4-momentum is on a resonance, σ_2 = 0 which can be seen by expanding (5.91) for ν^2 = −4 (ℓ + 1) (ℓ + 2). Then, when S = 0 and the solution is normalized according to (6.4), we have

Z_ℓ ∼ σ^2_{ℓ,1}. (6.38)

As a check, the normalized ℓ = 0 solution is

Σ^{(0)}_0 = √ 6p (1 + p^2)^{3/2} = √ 6 p^2

+ · · · , (6.39)

comparing to (6.5) Z_ℓ, we get Z_ℓ = −2σ^2_{ℓ,1}. (6.40)

It is straightforward to check that this holds for higher ℓ as well^{16}. When δ > 0, we have σ_{ℓ,1} = σ^{(0)}_{ℓ,1} + δσ^{(1)}_{ℓ,1} with σ^{(1)}_{ℓ,1} = ∑ ℓ^′ c_{ℓℓ}′ σ^{(0)}_ℓ . (6.41)

The residue is then Z_ℓ = Z^{(0)}_ℓ + δZ^{(1)}_ℓ with

Z^{(0)}_ℓ = −2 ( σ^{(0)}_{ℓ,1}

)_2

, Z^{(1)}_ℓ = −4σ^{(0)}_{ℓ,1} σ^{(1)}_{ℓ,1} . (6.42)

The residues are also presented in table 1. Since c_{ℓ,ℓ}′ vanishes if |ℓ − ℓ^′| ≤ 4, the correction to the residue can be calculated explicitly.

For the vectors, at large p,

A = a_1p^{−2} + a_2 ( 1 + a ( k ) p^{−2} log p ) + · · · . (6.43)

15Note that this takes a different from from (3.7) since here we have Δ = 2.

16Alternatively, since the resonant solutions are polynomials of finite order, this should be possible to check for general ℓ. Note that the relationship presented in [61] between the residues Z_ℓ and the coefficient of the sub-dominant solutions must be modified for scalars satisfying the BF bound.

– 34 –

Scalar Vector Spinor ℓ −λ^{(0)}_ℓ Z^{(0)}_ℓ −λ^{(1)}_ℓ /λ^{(0)}_ℓ Z_ℓ −λ^{(1)}_ℓ /λ^{(0)}_ℓ Z_ℓ −λ^{(1)}_ℓ /λ^{(0)}_ℓ Z_ℓ 0 8 −12 0.0143 0.474 0.104 2.33 −0.0780 0.538 1 24 −20 0.0767 3.36 0.201 5.37 0.0941 0.491 2 48 −28 0.145 6.72 0.236 7.62 0.178 7.50 3 80 −36 0.188 9.34 0.251 9.83 0.215 9.78 4 120 −44 0.214 11.8 0.258 12.0 0.234 12.0 5 168 −52 0.223 14.1 0.263 14.2 0.245 14.2 6 224 −60 0.234 16.3 0.265 16.4 0.252 16.4 7 288 −68 0.247 18.5 0.267 18.6 0.257 18.6 8 360 −76 0.252 20.7 0.268 20.8 0.260 20.8 9 440 −84 0.256 22.9 0.269 23.0 0.262 23.0 10 528 −92 0.259 25.1 0.270 25.2 0.264 25.2 20 1848 −172 0.269 47.0 0.272 47.0 0.271 47.0 50 10608 −412 0.273 113. 0.273 113. 0.273 113. 100 41208 −812 0.273 222. 0.273 222. 0.273 222.

Table 1. Perturbed spectrum of mesonic messengers in the theory and state dual to the geometry (6.1). Note that although higher modes contribute increasingly large amounts to the correlators, the spectra also become degenerate as ℓ increases and so cancel out of (2.12). All of the entries in this table are approximations to rational numbers that can be determined for any ℓ, though the general expression is not simple.

For the mass eigenstates, a_2 = 0 and Z_ℓ = 8 ν^2 a^2_{ℓ,1}. (6.44)

Finally for the spinors, at large p

ψ = s_1p^{−2} + s_2 ( 1 + a ( k ) p^{−2} log p ) + · · · , (6.45)

and for mass eigenstates Z_ℓ = 8 ν^2 s^2_{ℓ,1}. (6.46)

We then find an expression for the perturbed residue that is similar to (6.42).

The analytic terms in the correlators C_a correspond to contact terms and must cancel in (2.12). The non-analytic parts can be easily integrated. We have, ∫_Λ2 0 dν^2 ∑ ℓ=0 Z_ℓ ν^2 − λ_ℓ ≈ ℓ_m∑

ℓ Z_ℓ { log ( −λ_ℓ ) − log ( −λ_ℓ − λ_{ℓmax} )} , (6.47)

where ℓ_m is the largest ℓ satisfying λ_ℓ < Λ^2. (2.12) then gives (suppressing the group index) Γ = −δμ^2 16π^2L^4 ( 3Γ^{(1)}_0 − 4Γ^{(1)}_{1/2} + Γ^{(1)}_1 ) , (6.48)

in which for any particular spin,

Γ^{(0)}_a =

ℓ_m∑

ℓ { Z^{(1)}_ℓ log [ λ^{(0)}_ℓ − λ^{(0)}_{ℓm}

λ^{(0)}_ℓ ] − Z^{(1)}_ℓ λ^{(1)}_ℓ ( 1 λ^{(0)}_ℓ + λ^{(0)}_{ℓm} − 1 λ^{(0)}_ℓ )} . (6.49)

– 35 –

As we observe from table 1 and as expected from supersymmetry, the residues and masses become degenerate as ℓ. The result is Γ = 3L^4S 80π^2μ^6 c, (6.50)

in which c ≈ 90. We would like to be able to express this in terms of quantities on the gauge theory side, for example the messenger mass and the scale of supersymmetry breaking. The messenger mass is related to the D7-position by m_μ = μℓ^{−2}_s . However, the dual scale of supersymmetry breaking is not immediately obvious in this set up. The analysis of [30] indicates that (at least without the D7-brane) the dual state has no vacuum energy and supersymmetry is not broken. However, since the current-current correlators for the component fields of J do not satisfy supersymmetric relations, supersymmetry must be broken at least after the introduction of the flavor branes^{17}. Relating the parameters of the gravitational theory to the gauge theory may then require calculation of the backreaction of the D7-brane, an analysis that we leave to future work.

7 Conclusions

In this work, we considered models of supersymmetry breaking and mediation, using the language and techniques of the gauge/gravity correspondence. In this sense, this work is very much along the lines of [22, 23]. However, the approach used here differed from those works in that in the latter soft terms (in particular, gaugino masses) were inferred directly from dimensional reduction. In contrast, here we used the correspondence to calculate correlation functions in the gauge theory, much in the spirit of the some of the foundational works on AdS/CFT. Such correlators can be related to visible-sector soft terms via the formalism of general gauge mediation. The downside to this technique however is that it requires more explicit knowledge of solutions of the classical solutions of the equations of motion. In particular, the fact that some of the fields of interest had non-trivial angular dependence required us to consider particularly simple geometries.

One surprising result of the analysis performed concerns the geometry resulting from adding a small number of D3-D3-branes to AdS^5 × S^5. Although naively such a construction is not supersymmetric, it was argued in [30] that supersymmetry was preserved in the state realized by the dual theory. However, we found that when a U (1) flavor group and a massive quark is added to the theory, the resulting spectrum of mesons is not supersymmetric. A possibility is that supersymmetry is broken only after the addition of the quarks. This could be confirmed by calculating the backreaction of the D7 on the geometry.

The advantage of the technique used here is that soft terms for chiral matter fields, which were not directly calculable from holography in the setups of [22, 23], are readily obtainable here. However, because of the large amount of symmetry, the gaugino in the dual gauge theory remains massless. That is, the response function for the spinor component of the dual current superfield took the form (5.70) and so the correlator function B_{1/2} given in (2.5) vanish, leading to a vanishing m_{1/2}. This is directly related to the fact that the geometry does contain any 3-form flux which is necessary to give rise to gaugino masses in this class of constructions [22, 23, 62]. It would be of interest to extend the techniques considered here to geometries that are supported by fluxes such as [19, 32] and their nonsupersymmetric perturbations [30, 31], especially since such constructions are perturbatively stable. However, in addition to the complications presented by an angular space^{18}, such theories do not, strictly speaking, flow from a conformal fixed point but are instead cascading theories. Although

17This indicates that the mediation of supersymmetry breaking is no longer precisely semi-direct. 18See [63] for discussions on this point.

– 36 – the methods of holographic renormalization have been discussed for such theories [64], the geometry is such that the correlators cannot be explicitly calculated. Although this was also the case for the non-supersymmetric cases considered above, for asymptotically AdS spaces it is known how to infer the two-point functions from the 1-point functions and the spectrum. For cascading theories, this is less clear [61].

Acknowledgments

It is a pleasure to thank G. Shiu, Y. Sumitomo, and P. Ouyang for useful discussions and suggestions. I also thank the Hong Kong Institute for Advanced Study at the Hong Kong University of Science and Technology for hospitality and support. This work was supported by the US National Science Foundation under grant PHY-0757868, the US Department of Energy under contract DE-FG-02- 95ER40896, a String Vacuum Project Graduate Fellowship funded through the US National Science Foundation grant PHY-0918807, and a Cottrell Scholar Award from Research Corporation.

A Conventions

The index μ indicates an R^{3,1} coordinate x^{0,1,2,3} while m runs over all five non-compact coordinates (i.e. R^{3,1} and the holographic direction). α runs over the coordinates of the probe D7-brane discussed in the text, with a, b, c, d running over coordinates transverse to R^{3,1} and i, j running transverse to the brane. ϕ, ψ denote angular directions, either those in the full 10d space or along the worldvolume. M, N run over all 10 directions. Underlined indices are used to denote locally orthogonal non-coordinate bases for the (co-)vector spaces. The index α is also used to denote spinor indices, but context should allow these to be distinguished from worldvolume indices.

A.1 Fermion conventions

A.1.1 SO(3,1) spinors We make use of the dotted and undotted notation of [65]. Such indices are raised and lowered with ϵ^{12} = ϵ_{21} = 1 and we define θ^2 = θθ. An SO (3, 1) Dirac spinor takes the form ψ = ( ψ_{Lα} iψ̄^{α̇}_R ) , (A.1)

where we have chosen a Weyl basis for the SO (3, 1) γ-matrices

γ^μ = ( 0 σ^μ −σ̄^μ 0 ) , (A.2)

in which σ^μ = ( −I_2, σ ) , σ̄^μ = ( −I_2, −σ ) , (A.3)

where σ̄ are the usual Pauli matrices

σ^1 = ( 0 1 1 0 ) , σ^2 = ( 0 −i i 0 ) , σ^3 = ( 1 0 0 −1 ) , (A.4)

and so the γ-matrices satisfy the Clifford algebra { γ^μ, γ^ν } = 2η^{μν} . (A.5)

– 37 –

The 4d chirality operator is

γ_{(4)} = −iγ^0γ^1γ^2γ^3 = ( −1 0 0 1 ) . (A.6)

A.1.2 SO(4,1) spinors For SO (4, 1), we take γ̃^μ = γ^μ, γ̃^4 = γ_{(4)}. (A.7)

These then satisfy {γ̃^m, γ̃^n} = 2η̃^{mn}. The Majorana matrix is

B̃_5 = γ̃^2, (A.8)

which is imaginary, satisfies B̃_5B̃^∗_5 = −1 and B̃^{−1}_5 γ̃^mB̃_5 = −γ̃^{m∗}. The charge-conjugation operator is

C̃_5 = B̃_5γ̃^0 = ( σ^2 0 0 −σ^2 ) , (A.9)

which satisfies C̃_5γ̃^mC̃^{−1}_5 = γ̃^{mT}. N_5 = 1 is usefully parametrized in terms of symplectic-Majorana spinors. A pair of symplectic-Majorana spinors are Dirac spinors ψ^{i=1,2} satisfying the property

ψ^i = ϵ^{ij}C̃_5ψ̄^T_j , (A.10)

where ψ^∗_j := ( ψ^j )_∗ and again ϵ^{12} = ϵ_{21} = 1. Such spinors satisfy the identities

χ̄_iγ̃^{m1} · · · γ̃^{mn} ψ^j =ϵ_{il}ϵ^{jk}ψ̄_kγ̃^{mn} · · · γ̃^{m1} χ^l, (A.11a) ( χ̄_iγ̃^{m1} · · · γ̃^{mn} ψ^j )_∗ = ( −1 )_{n+1} ϵ^{ik}ϵ_{jl}χ̄_kγ̃^{m1} · · · γ̃^{mn} ψ^l. (A.11b)

For a pair of symplectic-Majorana spinors, we may write

ψ^1 = ( ψ_{Lα} iψ̄^{α̇}_R ) , ψ^2 = ( −ψ_{Rα} iψ̄^{α̇}_L ) , ψ̄_1 = ( −iψ^α_R −ψ̄_{Lα̇} )T , ψ̄_2 = ( −iψ^α_L ψ̄_{Rα̇} )T . (A.12)

A.1.3 SO(5) spinors For SO (5) we choose a basis that is useful for the decomposition SO (5) → SO (2) × SO (3),

γ̂^1 = σ^1 ⊗ I_2, γ̂^2 = σ^2 ⊗ I_2, γ̂^3 = σ^3 ⊗ σ^1, γ̂^4 = σ^3 ⊗ σ^2, γ̂^5 = σ^3 ⊗ σ^3. (A.13)

These satisfy { γ̂^ϕ, γ̂^ψ } = 2δ^{ϕψ}. (A.14)

The Majorana matrix is B̂_5 = γ̂^2γ̂^4 = σ^1 ⊗ iσ^2. (A.15)

It satisfies B̂_5 = B̂^∗_5 , B̂^2_5 = −1, and B̂^{−1}_5 γ̂^ϕB̂_5 = γ̂^{ϕ∗}. (A.16)

– 38 –

A.1.4 SO(9,1) spinors On R^{9,1} we take Γ^m = σ^1 ⊗ γ̃^m ⊗ I_4, Γ^ϕ = σ^2 ⊗ I_4 ⊗ γ̂^ϕ, (A.17)

where the second equality should be understood to mean Γ^5 = σ^2 ⊗ I_4 ⊗ γ̂^1, etc. The Γ-matrices satisfy { Γ^M , Γ^N } = 2η^{MN} . The 10d chirality operator is

Γ_{(10)} = iΓ^0Γ^1 · · · Γ^9 = σ^3 ⊗ I_4 ⊗ I_4, (A.18)

which satisfies Γ^2_{(10)} = 1 and anti-commutes with all of the Γ^M . The 10d Majorana matrix is

B_{10} = Γ^2Γ^5Γ^7Γ^9 = −iσ^3 ⊗ B̃_5 ⊗ B̂_5, (A.19)

which satisfies B_{10} = B^∗_{10}, B_{10}B^∗_{10} = 1 and

B^{−1}_{10} Γ^M B_{10} = Γ^{M∗}. (A.20)

In 10d, we generally work with Majorana-Weyl spinors satisfying Γ_{(10)}Ψ = Ψ, and B_{10}Ψ = Ψ^∗. Additionally, we work with bispinors which are combination of two 10d spinors Ψ = ( Ψ_1 Ψ_2 ) . (A.21)

Γ-matrices act on bispinors as

Γ^M Ψ = ( Γ^M Ψ_1 Γ^M Ψ_2 ) . (A.22)

A.2 Type-IIB supergravity Our conventions for the bosonic modes of type-IIB supergravity are summarized by the pseudo-action which we write as S_{IIB} = S^{NS}_{IIB} + S^R_{IIB} + S^{CS}_{IIB}, (A.23)

in which

S^{NS}_{IIB} = 1 2κ^2_{10} ∫ d^{10}x √ − det (g) { R − 1 2 ∂_M Φ∂^M Φ − g_s 2 e^{−Φ} ( H^{(3)}

)_2} , S^R_{IIB} = − 1 4κ^2_{10} ∫ d^{10}x √ − det (g) { e^{2Φ} ( F^{(1)}

)_2 + g_se^Φ ( F^{(3)}

)_2 + 1 2 g^2_s ( F^{(5)}

)_2 } , (A.24)

S^{CS}_{IIB} = g^2_s 4κ^2_{10} ∫ C^{(4)} ∧ H^{(3)} ∧ dC^{(2)}, (A.25)

in which g_{MN} is the 10d Einstein-frame metric, Φ is the dilaton and the gauge-invariant field strengths of the NS-NS 2-form potential B^{(2)} and R-R potentials C^{(0)}, C^{(2)}, and C^{(4)} are

H^{(3)} =dB^{(2)}, F^{(1)} =dC^{(0)}, F^{(3)} =dC^{(2)} − C^{(0)}H^{(3)}, F^{(5)} =dC^{(4)} + B^{(2)} ∧ dC^{(2)}. (A.26)

The dilaton is normalized such that ⟨ Φ ⟩ = log g_s and for a p-form ( Ω^{(p)}

)_2 = 1 p! Ω_{M1 ···Mp} Ω^{M1 ···Mp} . (A.27)

– 39 –

Type-IIB supergravity exhibits N_{10} = 2 and so there are two Majorana-Weyl gravitini and two Majorana-Weyl dilatini which can be organized into bispinors

Ψ_M = ( Ψ^1_M Ψ^2_M ) , Λ = ( Λ^1 Λ^2 ) . (A.28)

SUSY transformations are parametrized by a Majorana-Weyl bispinor ϵ. For the fermionic fields

δ_ϵΨ_M = D_M ϵ, δ_ϵΛ = Δϵ, (A.29)

where, in the 10d Einstein frame, Δ = 1 2 /∂Φ − 1 2 e^Φ /F^{(1)} ( iσ^2 ) − 1 4 ( g_se^Φ )_{1/2} G^+_3 , (A.30a)

D_M =∇_M + 1 2 e^ΦF_M ( iσ^2 ) + 1 16 g_s /F^{(5)}Γ_M ( iσ^2 ) + 1 8 ( g_se^Φ )_{1/2}( G^−_3 Γ_M + 1 2 Γ_M G^−_3 ) , (A.30b)

where ⟨Φ⟩ = log g_s, ∇_M is the covariant derivative built from the 10d metric, the Pauli matrices rotate that spinors constituting the bispinor into each other, and

G^±_3 = /F^{(3)}σ^1 ± e^{−Φ} /H^{(3)}σ^3. (A.31)

For a p-form Ω^{(p)}, we have defined

/Ω^{(p)} = 1 p! Ω_{M1 ···Mp} Γ^{M1 ···Mp} . (A.32) References

[1] L. Randall and R. Sundrum, Out of this world supersymmetry breaking, Nucl.Phys., B557 (1999), 79–118, [hep-th/9810155].

G. F. Giudice, M. A. Luty, H. Murayama, and R. Rattazzi, Gaugino mass without singlets, JHEP, 9812 (1998), 027, [hep-ph/9810442].

J. A. Bagger, T. Moroi, and E. Poppitz, Anomaly mediation in supergravity theories, JHEP, 0004 (2000), 009, [hep-th/9911029].

[2] A. H. Chamseddine, R. L. Arnowitt, and P. Nath, Locally supersymmetric grand unification, Phys.Rev.Lett., 49 (1982), 970.

R. Barbieri, S. Ferrara, and C. A. Savoy, Gauge models with spontaneously broken local supersymmetry, Phys.Lett., B119 (1982), 343.

L. J. Hall, J. D. Lykken, and S. Weinberg, Supergravity as the messenger of supersymmetry breaking, Phys.Rev., D27 (1983), 2359–2378.

S. K. Soni and H. A. Weldon, Analysis of the supersymmetry breaking induced by N = 1 supergravity theories, Phys.Lett., B126 (1983), 215.

H. P. Nilles, Supersymmetry, supergravity and particle physics, Phys.Rept., 110 (1984), 1–162. A. Brignole, L. E. Ibáñez, and C. Muñoz, Towards a theory of soft terms for the supersymmetric standard model, Nucl.Phys., B422 (1994), 125–171, [hep-ph/9308271].

A. Brignole, L. E. Ibáñez, C. Muñoz, and C. Scheich, Some issues in soft SUSY breaking terms from dilaton/moduli sectors, Z.Phys., C74 (1997), 157–170, [hep-ph/9508258].

A. Brignole, L. E. Ibáñez, and C. Muñoz, Soft supersymmetry breaking terms from supergravity and superstring models, hep-ph/9707209.

– 40 –

[3] M. Dine, W. Fischler, and M. Srednicki, Supersymmetric technicolor, Nucl.Phys., B189 (1981), 575–593.

S. Dimopoulos and S. Raby, Supercolor, Nucl.Phys., B192 (1981), 353.

M. Dine and W. Fischler, A phenomenological model of particle physics based on supersymmetry, Phys.Lett., B110 (1982), 227.

C. R. Nappi and B. A. Ovrut, Supersymmetric extension of the SU (3) × SU (2) × U (1) model, Phys.Lett., B113 (1982), 175.

L. Alvarez-Gaumé, M. Claudson, and M. B. Wise, Low-energy supersymmetry, Nucl.Phys., B207 (1982), 96.

M. Dine and A. E. Nelson, Dynamical supersymmetry breaking at low-energies, Phys.Rev., D48 (1993), 1277–1287, [hep-ph/9303230].

M. Dine, A. E. Nelson, and Y. Shirman, Low-energy dynamical supersymmetry breaking simplified, Phys.Rev., D51 (1995), 1362–1370, [hep-ph/9408384].

M. Dine, A. E. Nelson, Y. Nir, and Y. Shirman, New tools for low-energy dynamical supersymmetry breaking, Phys.Rev., D53 (1996), 2658–2669, [hep-ph/9507378].

[4] G. Giudice and R. Rattazzi, Theories with gauge mediated supersymmetry breaking, Phys.Rept., 322 (1999), 419–499, [hep-ph/9801271].

[5] A. Pomarol and R. Rattazzi, Sparticle masses from the superconformal anomaly, JHEP, 9905 (1999), 013, [hep-ph/9903448].

R. Rattazzi, A. Strumia, and J. D. Wells, Phenomenology of deflected anomaly mediation, Nucl.Phys., B576 (2000), 3–28, [hep-ph/9912390].

[6] K. Choi, A. Falkowski, H. P. Nilles, M. Olechowski, and S. Pokorski, Stability of flux compactifications and the pattern of supersymmetry breaking, JHEP, 0411 (2004), 076, [hep-th/0411066]. K. Choi, A. Falkowski, H. P. Nilles, and M. Olechowski, Soft supersymmetry breaking in KKLT flux compactification, Nucl.Phys., B718 (2005), 113–133, [hep-th/0503216].

[7] L. L. Everett, I.-W. Kim, P. Ouyang, and K. M. Zurek, Deflected mirage mediation: A framework for generalized supersymmetry breaking, Phys.Rev.Lett., 101 (2008), 101803, [arXiv:0804.0592]. L. L. Everett, I.-W. Kim, P. Ouyang, and K. M. Zurek, Moduli stabilization and supersymmetry breaking in deflected mirage mediation, JHEP, 0808 (2008), 102, [arXiv:0806.2330]. B. Altunkaynak, B. D. Nelson, L. L. Everett, I.-W. Kim, and Y. Rao, Phenomenological implications of deflected mirage mediation: Comparison with mirage mediation, JHEP, 1005 (2010), 054, [arXiv:1001.5261].

B. Altunkaynak, B. D. Nelson, L. L. Everett, Y. Rao, and I.-W. Kim, Landscape of Supersymmetric Particle Mass Hierarchies in Minimal Supergravity and Deflected Mirage Mediation Models,

arXiv:1011.1439.

[8] S. P. Martin, A supersymmetry primer, hep-ph/9709356.

D. Chung, L. Everett, G. Kane, S. King, J. D. Lykken, and L.-T. Wang, The soft supersymmetry breaking Lagrangian: Theory and applications, Phys.Rept., 407 (2005), 1–203, [hep-ph/0312378].

[9] I. Affleck, M. Dine, and N. Seiberg, Dynamical supersymmetry breaking in four-dimensions and its phenomenological implications, Nucl.Phys., B256 (1985), 557.

E. Poppitz and S. P. Trivedi, New models of gauge and gravity mediated supersymmetry breaking, Phys.Rev., D55 (1997), 5508–5519, [hep-ph/9609529].

N. Arkani-Hamed, J. March-Russell, and H. Murayama, Building models of gauge mediated supersymmetry breaking without a messenger sector, Nucl.Phys., B509 (1998), 3–32, [hep-ph/9701286]. H. Murayama, A model of direct gauge mediation, Phys.Rev.Lett., 79 (1997), 18–21, [hep-ph/9705271].

[10] N. Seiberg, T. Volansky, and B. Wecht, Semi-direct gauge mediation, JHEP, 0811 (2008), 004, [arXiv:0809.4437].

– 41 –

[11] P. Meade, N. Seiberg, and D. Shih, General gauge mediation, Prog.Theor.Phys.Suppl., 177 (2009), 143–158, [arXiv:0801.3278].

[12] M. Buican, P. Meade, N. Seiberg, and D. Shih, Exploring general gauge mediation, JHEP, 0903 (2009), 016, [arXiv:0812.3668].

[13] Z. Komargodski and N. Seiberg, μ and general gauge mediation, JHEP, 0903 (2009), 072, [arXiv:0812.3900].

[14] T. T. Dumitrescu, Z. Komargodski, N. Seiberg, and D. Shih, General messenger gauge mediation, JHEP, 1005 (2010), 096, [arXiv:1003.2661].

[15] J. M. Maldacena, The large N limit of superconformal field theories and supergravity, Adv.Theor.Math.Phys., 2 (1998), 231–252, [hep-th/9711200].

E. Witten, Anti-de Sitter space and holography, Adv.Theor.Math.Phys., 2 (1998) 253–291, [hep-th/9802150].

S. Gubser, I. R. Klebanov, and A. M. Polyakov, Gauge theory correlators from noncritical string theory, Phys.Lett., B428 (1998), 105–114, [hep-th/9802109].

[16] O. Aharony, S. S. Gubser, J. M. Maldacena, H. Ooguri, and Y. Oz, Large N field theories, string theory and gravity, Phys.Rept., 323 (2000), 183–386, [hep-th/9905111].

E. D’Hoker and D. Z. Freedman, Supersymmetric gauge theories and the AdS/CFT correspondence,

hep-th/0201253.

[17] G. ’t Hooft, Dimensional reduction in quantum gravity, gr-qc/9310026.

L. Susskind, The world as a hologram, J.Math.Phys., 36 (1995), 6377–6396, [hep-th/9409089].

[18] S. Kachru, J. Pearson, and H. L. Verlinde, Brane/flux annihilation and the string dual of a nonsupersymmetric field theory, JHEP, 0206 (2002), 021, [hep-th/0112197].

[19] I. R. Klebanov and M. J. Strassler, Supergravity and a confining gauge theory: Duality cascades and χSB resolution of naked singularities, JHEP, 0008 (2000), 052, [hep-th/0007191].

[20] I. Bena, M. Graña, and N. Halmagyi, On the existence of meta-stable vacua in Klebanov-Strassler, JHEP, 1009 (2010), 087, [arXiv:0912.3519].

[21] A. Karch and E. Katz, Adding flavor to AdS/CFT, JHEP, 0206 (2002), 043, [hep-th/0205236].

[22] F. Benini, A. Dymarsky, S. Franco, S. Kachru, D. Simić, and H. Verlinde, Holographic gauge mediation, JHEP, 0912 (2009), 031, [arXiv:0903.0619].

[23] P. McGuirk, G. Shiu, and Y. Sumitomo, Holographic gauge mediation via strongly coupled messengers, Phys.Rev., D81 (2010), 026005, [arXiv:0911.0019].

[24] W. Fischler and W. Garcia, Hierarchies of susy splittings in holographic gauge mediation, JHEP, 1106 (2011), 046, [arXiv:1104.2078].

[25] M. Gabella, T. Gherghetta, and J. Giedt, A gravity dual and lhc study of single-sector supersymmetry breaking, Phys.Rev., D76 (2007), 055001, [arXiv:0704.3571].

[26] D. Kaplan, G. D. Kribs, and M. Schmaltz, Supersymmetry breaking through transparent extra dimensions, Phys.Rev., D62 (2000), 035010, [hep-ph/9911293].

Z. Chacko, M. A. Luty, A. E. Nelson, and E. Ponton, Gaugino mediated supersymmetry breaking, JHEP, 0001 (2000), 003, [hep-ph/9911323].

[27] M. McGarrie and D. C. Thompson, Warped general gauge mediation, Phys.Rev., D82 (2010), 125034, [arXiv:1009.4696].

[28] N. Seiberg, Electric-magnetic duality in supersymmetric non-Abelian gauge theories, Nucl.Phys., B435 (1995), 129–146, [hep-th/9411149].

– 42 –

[29] R. C. Myers, Dielectric branes, JHEP, 9912 (1999), 022, [hep-th/9910053].

[30] O. DeWolfe, S. Kachru, and M. Mulligan, A gravity dual of metastable dynamical supersymmetry breaking, Phys.Rev., D77 (2008), 065011, [arXiv:0801.1520].

[31] P. McGuirk, G. Shiu, and Y. Sumitomo, Non-supersymmetric infrared perturbations to the warped deformed conifold, Nucl. Phys., B842 (2010), 383–413, [arXiv:0910.4581].

I. Bena, G. Giecold, M. Graña, and N. Halmagyi, On the inflaton potential from antibranes in warped throats, arXiv:1011.2626.

A. Dymarsky, On gravity dual of a metastable vacuum in Klebanov-strassler theory, JHEP, 1105 (2011), 053, [arXiv:1102.1734].

I. Bena, G. Giecold, M. Graña, N. Halmagyi, and S. Massai, The backreaction of anti-D3 branes on the Klebanov-Strassler geometry, arXiv:1106.6165.

[32] I. R. Klebanov and A. A. Tseytlin, Gravity duals of supersymmetric SU (N) × SU (N + M) gauge theories, Nucl.Phys., B578 (2000), 123–138, [hep-th/0002159].

[33] P. Ouyang, Holomorphic D7-branes and flavored N = 1 gauge theories, Nucl.Phys., B699 (2004), 207–225, [hep-th/0311084].

S. Kuperstein, Meson spectroscopy from holomorphic probes on the warped deformed conifold, JHEP, 0503 (2005), 014, [hep-th/0411097].

[34] P. Candelas and X. C. de la Ossa, Comments on conifolds, Nucl.Phys., B342 (1990), 246–268.

[35] I. R. Klebanov and E. Witten, Superconformal field theory on three-branes at a Calabi-Yau singularity, Nucl.Phys., B536 (1998), 199–218, [hep-th/9807080].

[36] A. Higuchi, Symmetric tensor spherical harmonics on the N sphere and their application to the de Sitter group so(N, 1), J.Math.Phys., 28 (1987), 1553.

[37] A. Ceresole, G. Dall’Agata, and R. D’Auria, KK spectroscopy of type IIB supergravity on AdS5 × T^{11}, JHEP, 9911 (1999) 009, [hep-th/9907216].

[38] D. Marolf, L. Martucci, and P. J. Silva, Fermions, T-duality and effective actions for D-branes in bosonic backgrounds, JHEP, 0304 (2003), 051, [hep-th/0303209].

D. Marolf, L. Martucci, and P. J. Silva, Actions and fermionic symmetries for D-branes in bosonic backgrounds, JHEP, 0307 (2003), 019, [hep-th/0306066].

L. Martucci, J. Rosseel, D. Van den Bleeken, and A. Van Proeyen, Dirac actions for D-branes on backgrounds with fluxes, Class.Quant.Grav., 22 (2005), 2745–2764, [hep-th/0504041].

[39] F. Marchesano, P. McGuirk, and G. Shiu, Open string wavefunctions in warped compactifications, JHEP, 0904 (2009), 095, [arXiv:0812.2247].

[40] C. Wetterich, Dimensional reduction of Weyl, Majorana and Majorana-Weyl spinors, Nucl.Phys., B222 (1983), 20.

[41] P. Breitenlohner and D. Z. Freedman, Stability in gauged extended supergravity, Annals Phys., 144 (1982), 249.

P. Breitenlohner and D. Z. Freedman, Positive energy in anti-de Sitter backgrounds and gauged extended supergravity, Phys.Lett., B115 (1982), 197.

[42] H. Kim, L. Romans, and P. van Nieuwenhuizen, The mass spectrum of chiral N = 2 D = 10 supergravity on S^5, Phys.Rev., D32 (1985), 389.

[43] E. Shuster, Killing spinors and supersymmetry on AdS, Nucl.Phys., B554 (1999), 198–214, [hep-th/9902129].

[44] P. C. West, Introduction to supersymmetry and supergravity. Singapore: World Scientific, 1990. 425 p.

– 43 –

[45] E. A. Mirabelli and M. E. Peskin, Transmission of supersymmetry breaking from a 4-dimensional boundary, Phys.Rev., D58 (1998), 065002, [hep-th/9712214].

A. Hebecker, 5D super Yang-Mills theory in 4D superspace, superfield brane operators, and applications to orbifold GUTs, Nucl.Phys., B632 (2002), 101–113, [hep-ph/0112230].

[46] T. Gregoire, R. Rattazzi, C. Scrucca, A. Strumia, and E. Trincherini, Gravitational quantum corrections in warped supersymmetric brane worlds, Nucl.Phys., B720 (2005), 3–46, [hep-th/0411216]. J. Bagger and C. Xiong, N = 2 nonlinear sigma models in N = 1 superspace: Four and five dimensions, hep-th/0601165.

J. Bagger and C. Xiong, AdS5 supersymmetry in N = 1 superspace, arXiv:1105.4852.

[47] S. B. Giddings, S. Kachru, and J. Polchinski, Hierarchies from fluxes in string compactifications, Phys.Rev., D66 (2002), 106006, [hep-th/0105097].

[48] H. Lü, C. Pope, and P. Townsend, Domain walls from anti-de Sitter spacetime, Phys.Lett., B391 (1997), 39–46, [hep-th/9607164].

[49] M. Henningson and K. Skenderis, The holographic Weyl anomaly, JHEP, 9807 (1998), 023, [hep-th/9806087].

M. Henningson and K. Skenderis, Holography and the Weyl anomaly, Fortsch.Phys., 48 (2000) 125–128, [hep-th/9812032].

S. de Haro, S. N. Solodukhin, and K. Skenderis, Holographic reconstruction of space-time and renormalization in the AdS/CFT correspondence, Commun.Math.Phys., 217 (2001), 595–622, [hep-th/0002230].

M. Bianchi, D. Z. Freedman, and K. Skenderis, How to go with an RG flow, JHEP, 0108 (2001), 041, [hep-th/0105276].

[50] M. Bianchi, D. Z. Freedman, and K. Skenderis, Holographic renormalization, Nucl.Phys., B631 (2002), 159–194, [hep-th/0112119].

[51] K. Skenderis, Lecture notes on holographic renormalization, Class.Quant.Grav., 19 (2002), 5849–5876, [hep-th/0209067].

[52] W. Mück and K. Viswanathan, Conformal field theory correlators from classical scalar field theory on AdS_{d+1}, Phys.Rev., D58 (1998), 041901, [hep-th/9804035].

[53] I. R. Klebanov and E. Witten, AdS/CFT correspondence and symmetry breaking, Nucl.Phys., B556 (1999), 89–114, [hep-th/9905104].

W. Mück and K. Viswanathan, Conformal field theory correlators from classical field theory on anti-de Sitter space II. Vector and spinor fields, Phys.Rev., D58 (1998), 106006, [hep-th/9805145]. W. l’Yi, Holographic projection of massive vector fields in AdS/ CFT correspondence, hep-th/9808051.

[54] M. Henningson and K. Sfetsos, Spinors and the AdS/CFT correspondence, Phys.Lett., B431 (1998), 63–68, [hep-th/9803251].

A. M. Ghezelbash, K. Kaviani, S. Parvizi, and A. H. Fatollahi, Interacting spinors-scalars and AdS/CFT correspondence, Phys.Lett., B435 (1998), 291–298, [hep-th/9805162].

[55] M. Ammon, J. Erdmenger, M. Kaminski, and A. O’Bannon, Fermionic operator mixing in holographic p-wave superfluids, JHEP, 1005 (2010), 053, [arXiv:1003.1134].

[56] M. Henneaux, Boundary terms in the AdS/CFT correspondence for spinor fields, hep-th/9902137.

R. Contino and A. Pomarol, Holography for fermions, JHEP, 0411 (2004), 058, [hep-th/0406257].

[57] M. Kruczenski, D. Mateos, R. C. Myers, and D. J. Winters, Meson spectroscopy in AdS/CFT with flavor, JHEP, 0307 (2003), 049, [hep-th/0304032].

[58] S. de Haro, S. N. Solodukhin, and K. Skenderis, Holographic reconstruction of space-time and

– 44 – renormalization in the AdS/CFT correspondence, Commun.Math.Phys., 217 (2001), 595–622, [hep-th/0002230].

K. Skenderis, Asymptotically anti-de Sitter space-times and their stress energy tensor, Int.J.Mod.Phys., A16 (2001), 740–749, [hep-th/0010138].

[59] B. Zhou and C.-J. Zhu, The complete black brane solutions in D-dimensional coupled gravity system,

hep-th/9905146.

P. Brax, G. Mandal, and Y. Oz, Supergravity description of non-BPS branes, Phys.Rev., D63 (2001), 064008, [hep-th/0005242].

[60] G. ’t Hooft, A planar diagram theory for strong interactions, Nucl.Phys., B72 (1974), 461.

G. ’t Hooft, A two-dimensional model for mesons, Nucl.Phys., B75 (1974), 461. E. Witten, Baryons in the 1/N expansion, Nucl.Phys., B160 (1979), 57.

[61] M. Berg, M. Haack, and W. Mück, Glueballs vs. gluinoballs: Fluctuation spectra in non-AdS/non-CFT, Nucl.Phys., B789 (2008), 1–44, [hep-th/0612224].

[62] D. Lüst, S. Reffert, and S. Stieberger, Flux-induced soft supersymmetry breaking in chiral type IIB orientifolds with D3/D7-branes, Nucl.Phys., B706 (2005), 3–52, [hep-th/0406092]. P. G. Cámara, L. Ibánez, and A. Uranga, Flux-induced SUSY-breaking soft terms on D7-D3 brane systems, Nucl.Phys., B708 (2005), 268–316, [hep-th/0408036].

D. Lüst, F. Marchesano, L. Martucci, and D. Tsimpis, Generalized non-supersymmetric flux vacua, JHEP, 0811 (2008), 021, [arXiv:0807.4540].

[63] T. Gherghetta and J. Giedt, Bulk fields in AdS5 from probe D7 branes, Phys.Rev., D74 (2006), 066007, [hep-th/0605212].

[64] O. Aharony, A. Buchel, and A. Yarom, Holographic renormalization of cascading gauge theories, Phys.Rev., D72 (2005), 066003, [hep-th/0506002].

[65] J. Wess and J. Bagger, Supersymmetry and supergravity. Princeton, USA: Univ. Press, 1992. 259 p.

– 45 –