arXiv:1302.7244v4 [hep-th] 1 May 2013

April 25, 2013 KEK-TH-1609

One-loop Kähler potential in 5D gauged supergravity with generic prepotential

Yutaka Sakamura^∗

KEK Theory Center, Institute of Particle and Nuclear Studies, KEK, Tsukuba, Ibaraki 305-0801, Japan

Department of Particles and Nuclear Physics, The Graduate University for Advanced Studies (Sokendai), Tsukuba, Ibaraki 305-0801, Japan

Abstract

We calculate one-loop contributions to the Kähler potential in 4D effective theory of 5D gauged supergravity (SUGRA) on S^1/Z_2 with a generic form of the prepotential and arbitrary boundary terms. Our result is applicable to a wide class of 5D SUGRA models. The derivation is systematically performed by means of an N = 1 superfield formalism based on the superconformal formulation of 5D SUGRA. As an illustrative example, we provide an explicit expression of the Kähler potential in the case of 5D flat spacetime.

∗e-mail address: sakamura@post.kek.jp

1 Introduction

Higher-dimensional supergravities (SUGRA) have been attracted much attention and extensively studied in various aspects, such as the model building in the context of the brane-world scenario, effective theories of the superstring theory or M-theory, AdS/CFT correspondence, etc. Among them, five-dimensional (5D) SUGRA compactified on an orbifold S^1/Z_2 has been thoroughly investigated since it is the simplest setup for supersymmetric (SUSY) brane-world models, and it is shown to appear as an effective theory of the strongly coupled heterotic string theory [1] compactified on a Calabi-Yau 3-fold [2]. Besides, SUSY extensions of the Randall-Sundrum model [3] are also constructed in 5D SUGRA on S^1/Z_2 [4, 5, 6].

Models with an extra dimension can easily realize the large hierarchy between the electroweak and the Planck scales or among the fermion masses in the standard model. The former is obtained by the warped geometry along the extra dimension [3], and the latter is by the wave function localization of matter fields in the extra dimension [7, 8]. In both mechanisms, some mass scales have to be introduced in the 5D bulk. The warped geometry is induced by the 5D cosmological constant, and the wave function profiles are controlled by 5D masses of the matters. In SUGRA context, these mass scales are introduced by gauging some isometries with some 5D vector multiplets. Namely, we have to consider the gauged SUGRA. When the extra dimension is compactified on S^1/Z_2, the four-dimensional (4D) vector components in such vector multiplets must be Z_2-odd. Every 5D SUGRA model has this type of vector field, i.e., the graviphoton.^1 Therefore, most models based on 5D gauged SUGRA assume that the vector multiplet that gauges the isometries to induce the mass scales is the graviphoton multiplet. However this is not the only possibilities. There can be other vector multiplets whose 4D vector components are Z_2-odd. The 5D mass scales can also be obtained by gauging with these multiplets. Such 5D vector multiplets contain Z_2-even real scalar fields. These scalar fields have 4D zero-modes, and do not have any potential terms at least at tree level. Thus we refer to them as moduli in this paper.^2 In fact, one linear combination of these moduli corresponds to the size modulus of the fifth dimension, i.e., the radion, which belongs to the same 5D supermultiplet as the graviphoton.

1 In this paper, the terminology “graviphoton” denotes a vector field in the gravitational multiplet of the on-shell formulation. It should be distinguished from the off-diagonal components of the 5D metric.

2 These moduli are actually identified with the shape moduli of the compactified space for a 5D effective theory of the heterotic M-theory on the Calabi-Yau manifold [2], for example.

In the case that a model has more than one moduli, they generically mix with each other. Such mixing is characterized by a cubic polynomial, which is referred to as the norm function in this paper. This corresponds to the prepotential in 4D N = 2 SUSY gauge theories. As mentioned above, most models based on 5D SUGRA implicitly assumed a special form of the norm function such that the radion does not mix with the other moduli. In our previous works [9, 10], we derived 4D effective theory of 5D SUGRA with more than one moduli at tree level, and found that some terms appear in the Kähler potential, which do not exist in the single modulus case. We also showed those terms can significantly affect the flavor structure of the effective theory when the fermion mass hierarchy is realized by the wave function localization, and pointed out a possibility that the SUSY flavor problem is avoided. This indicates an importance of considering arbitrary form of the norm function with multi moduli when we construct a realistic model based on 5D SUGRA.

For a construction of realistic 5D SUGRA models, mediation of SUSY-breaking effects to our observable sector and stabilization of the radion to some finite value are indispensable issues. In some of the mechanisms for them, one-loop quantum corrections to the Kähler potential in 4D effective theory are relevant. For example, SUSY breaking at one of the boundaries of S^1/Z_2 can be transmitted to the other boundary where we live by the quantum loop effects of the bulk fields [11]-[14], and the radion can be stabilized by the vacuum energy through the Casimir effect [15]-[21]. The soft SUSY-breaking parameters and the radion mass are induced from the one-loop Kähler potential after taking into account the SUSY-breaking effects. These contributions are finite in spite of the nonrenormalizability of 5D SUGRA. This is because each relevant loop diagram must touch both boundaries and cannot shrink to a point. Thus the inverse of the size of the extra dimension provides an effective cutoff in the momentum integral.

The one-loop corrections to the effective Kähler potential in the context of 5D SUGRA have already been discussed in Refs. [13, 14, 22, 23, 24]. However these works assume that the graviphoton multiplet (or the radion multiplet) is the only moduli multiplet which is relevant to the gauging of the isometries to induce the 5D mass scales. As mentioned above, this is only a special case among generic 5D SUGRA. Thus we extend the above works to more general class of theories in this paper. We calculate the one-loop Kähler potential for 5D SUGRA on S^1/Z_2 with an arbitrary form of the norm function. Our derivation is performed in an N = 1 superfield formalism based on the superconformal formulation of 5D SUGRA [25]-[28], which is developed in our previous works [29, 30]. This makes it possible to deal with general 5D SUGRA in a systematic and transparent manner. Thus the result is applicable to a wide class of models based on 5D SUGRA.

The paper is organized as follows. In the next section, we briefly review our previous works, which provide an N = 1 superfield description of 5D SUGRA on S^1/Z_2 with an arbitrary prepotential. In Sec. 3, we derive an expression of one-loop contributions to the 4D effective Kähler potential by means of the background field method and the superfield formalism. In Sec. 4, we apply the formula obtained in Sec. 3 in the case that 5D spacetime is flat as an illustrative example. Sec. 5 is devoted to the summary. In Appendix A, we list the 5D superconformal transformation laws in terms of the N = 1 superfields. In Appendix B, we collect the definitions of useful projection operators in the N = 1 superspace and their properties. In Appendix C, we review the derivation of the effective Kähler potential at tree level. We show some detailed calculations to pick up quadratic terms for the bulk fluctuation superfields in Appendix D, and to derive the boundary conditions for them in Appendix E. In Appendix F, we provide an explicit expression of the one-loop Lagrangian in a simple case in terms of the bosonic components of the superfields.

2 Superfield description of 5D SUGRA

In this paper, we consider 5D SUGRA compactified on an orbifold S^1/Z_2. We take the fundamental region of S^1/Z_2 as 0 ≤ y ≤ L, where y is the coordinate of the extra dimension. The most general metric for the background spacetime that has the 4D Poincaré symmetry has a form of ds^2 = e^{2σ(y)}η_{μν} dx^μdx^ν − ⟨ e^4_y

⟩_2 dy^2, (2.1) where η_{μν} = diag(1, −1, −1, −1), e^{σ(y)} is the warp factor, which is determined by solving 5D Einstein equation, and ⟨ e^4_y ⟩ is the background value of the component of the fünfbein e^4_y .^3 Notice that we can always absorb the warp factor in (2.1) by making use of the dilatation symmetry. In fact, the warp factor does not appear explicitly in our calculations since our formalism keeps the superconformal symmetries manifest. The information of the warped geometry is encoded in the gauging for the compensator hypermultiplets [31].

3 We can always choose the coordinate y so that ⟨ e^4_y ⟩ = 1, but we leave it to be an arbitrary positive value in this paper.

In this section, we review our previous works [29, 30] that complete an N = 1 superfield description of 5D SUGRA on S^1/Z_2 (see also Refs. [32]-[35]). Our superfield description is based on the superconformal formulation developed in Refs. [25]-[28], and is considered as an extension of Ref. [36] to a generic system of vector multiplets and hypermultiplets.

2.1 Decomposition into N = 1 superfields

The 5D superconformal transformations are divided into two parts δ^{(1)}sc and δ^{(2)}sc , where δ^{(1)}sc forms an N = 1 subalgebra, and δ^{(2)}sc is the rest part. As shown in Ref. [28], each 5D superconformal multiplet can be decomposed into N = 1 superconformal multiplets, which only respect δ^{(1)}sc manifestly. We have explicitly shown in Ref. [37] how each N = 1 superconformal multiplet is expressed by an N = 1 superfield with the aid of the fields in the gravitational multiplet. We will consider the following three types of 5D superconformal multiplets in this paper.^4

Hypermultiplet

A hypermultiplet H^a (a = 1, 2, · · · , n_C + n_H ) is decomposed into two chiral superfields (Φ^{2a−1}, Φ^{2a}), which have opposite Z_2-parities. We can always label the chiral superfields so that they have the Z_2-parities listed in Table I. The hypermultiplets are divided into two classes. One is the compensator multiplets a = 1, 2, · · · , n_C and the other is the physical matter multiplets a = n_C + 1, · · · , n_C + n_H . The former is auxiliary degrees of freedom and eliminated by the superconformal gauge fixing.^5 The Weyl and the chiral weights of the superfields are also listed in Table I.^6

Vector multiplet

A vector multiplet V^I (I = 1, 2, · · · , n_V ) is decomposed into N = 1 vector and chiral superfields (V^I , Σ^I ), which have opposite Z_2-parities. The vector multiplets are also divided into two classes according to their Z_2-parities. One is a class of the gauge multiplets, which are denoted as V^{Ie} (I_e = 1, · · · , n_{Ve} ). In this class, V^{Ie} are Z_2-even and have zero-modes that are identified with the gauge superfields in 4D effective theory. The other is a class of the moduli multiplets, which are denoted as V^{Io}

4 We do not consider the tensor multiplets, which are discussed in Ref. [38, 39], for simplicity. 5 The number of the compensator multiplets n_C characterizes the hyperscalar manifold. For example, it is USp(2, 2n_H )/USp(2) × USp(2n_H ) for n_C = 1, and SU(2, n_H )/SU(2) × SU(n_H ) for n_C = 2.

6 The Weyl and the chiral weights are the charges of the dilatation and of U(1)_A ⊂ SU(2)_U , respectively. These weights of a superfield denote those of the lowest component in the superfield.

5D multiplet Hypermultiplet Vector multiplet Weyl multiplet N = 1 superfield Φ^{2a−1} Φ^{2a} V^{Io} Σ^{Io} V^{Ie} Σ^{Ie} U^μ U^y V_E Ψ^α Z_2-parity − + − + + − + − + − Weyl weight 3/2 3/2 0 0 0 0 −1 Chiral weight 3/2 3/2 0 0 0 0 0

Table I: The decomposition of 5D superconformal multiplets into N = 1 superfields. The orbifold Z_2-parities, the Weyl and the chiral weights of the N = 1 superfields are also shown.

(I_o = 1, · · · , n_{Vo} ). In this class, V^{Io} are Z_2-odd and have no zero-modes. Instead, the chiral multiplets Σ^{Io} have zero-modes T^{Io} whose scalar components do not have any potential terms at tree level. Thus we refer to T^{Io} as the moduli superfields in this paper. At least one vector multiplet belongs to the latter class. In the single modulus case (n_{Vo} = 1), the vector component of such a multiplet is identified with the graviphoton.

Weyl multiplet (Gravitational multiplet)

The 5D Weyl multiplet E_W is also decomposed into six real superfields U^μ (μ = 0, 1, 2, 3), U^y and V_E,^7 and a complex spinor superfield Ψ^α, which include components of the fünfbein, ẽ^ν_μ , e^4_μ , e^4_y , and e^ν_y , respectively. Here, ẽ^ν_μ ≡ e^ν_μ − δ^ν_μ is the fluctuation mode around the background ⟨e^ν_μ ⟩ = δ^ν_μ . Since the Weyl multiplet is the gauge multiplet for 5D superconformal symmetry, these superfields transform nonlinearly under δ^{(1)}sc and δ^{(2)}sc as shown in Appendix A. Hence we cannot assign the Weyl and the chiral weights for them, except for V_E. In fact, V_E transforms under δ^{(1)}sc in a similar way to the vector superfields V^I because its components do not have 4D Lorentz indices.

2.2 5D SUGRA Lagrangian

5D SUGRA action is determined by 5D superconformal transformations δ^{(1)}sc , δ^{(2)}sc and the supergauge transformation δ_{sg} [30]. In the following, we keep terms up to linear order in the

7 The superfield U^y is related to U^4 in Ref. [30] by U^y = U^4/⟨V_E ⟩, where ⟨V_E ⟩ is the background value of V_E and was assumed to be 1 in Ref. [30].

gravitational superfields for each interaction terms. Basically we use the two-component spinor notations of Ref. [40], except for the metric and the spinor derivatives. We take the convention of the 4D metric as η_{μν} = diag(1, −1, −1, −1) so as to match it to that of Ref. [41], and define the spinor derivatives D_α and D̄_{α̇} as D_α ≡ ∂ ∂θ^α − i ( σ^μθ̄ ) α ∂_μ, D̄_{α̇} ≡ − ∂ ∂θ̄^{α̇} + i (θσ^μ)_{α̇} ∂_μ, (2.2)

which satisfy { D_α, D̄_{α̇} } = 2iσ^μ_{αα̇}∂_μ. The spinor derivatives are understood as the leftderivatives. It is convenient to define the following differential operators. ^∂_y ≡ ∂_y − ( 1 4 D̄^2Ψ^αD_α + 1 2 D̄^{α̇}Ψ^αD̄_{α̇}D_α + w + n 24 D̄^2D^αΨ_α + h.c. ) , Δ_μ ≡ 1 4 σ̄^{α̇α}_μ ( D_αD̄_{α̇} − D̄^R_{α̇} D^R_α ) , (2.3)

where w and n are the Weyl and the chiral weights of a superfield which ^∂_y acts on, and (w + n)^† = w − n. The spinor derivatives D^R_α and D̄^R_{α̇} are defined by the right-derivatives. Then Δ_μ satisfies the Leibniz rule on a product of bosonic superfields. On (anti-)chiral superfields, Δ_μ = −i∂_μ (Δ_μ = i∂_μ). It should be noted that , for a chiral superfield Φ, ∂_yΦ is not a chiral superfield in a superconformal sense because its δ^{(1)}sc -transformation law is no longer that of a chiral superfield [30]. Instead, ^∂_yΦ transforms as a chiral superfield under δ^{(1)}sc . Thus ^∂_y is understood as a covariant derivative for δ^{(1)}sc . Similarly, D_α and D̄_{α̇} do not preserve the δ^{(1)}sc -transformation law of the N = 1 superfields, either. For them, however, there are no corresponding covariant derivatives for δ^{(1)}sc .

In the d^4θ-integral, which corresponds to the D-term formula in Ref. [41], a chiral superfield Φ must appear through the combination of

U(Φ) ≡ (1 + iU^μ∂_μ + iU^y∂_y) Φ. (2.4)

The first two terms correspond to an embedding of a chiral multiplet into a general multiplet in 4D superconformal formulation [41], and the third term is necessary for the δ^{(2)}sc - invariance of the action.

5D SUGRA is characterized by a cubic polynomial for the vector multiplets, which is referred to as the norm function in Refs. [25]-[28],

N (Σ) ≡ C_{IJK} Σ^I Σ^J Σ^K , (2.5) where a real constant tensor C_{IJK} is completely symmetric for the indices. This corresponds to the prepotential of N = 2 SUSY gauge theories. For C_{IJK} , there is a set of normalized anti-hermitian matrices {t_I }, which satisfies [25] C_{IJK} = ic^3 6 tr (t_I {t_J , t_K }) . (2.6)

where tr(t_I t_J ) = −^1_2 δ_{IJ} , and a real constant c can take different values for each simple or Abelian group. Some of the gauge symmetries are broken by the orbifold projection, and t_{Io} and t_{Ie} are the broken and the unbroken generators, respectively.

The supergauge transformation is expressed as

e^V → e^{U(Λ)}e^V e^{U(Λ)†} , Σ → e^Λ ( Σ − ^∂_y ) e^{−Λ}, Φ_{odd} → ( e^{−Λ} )_t Φ_{odd}, Φ_{even} → e^ΛΦ_{even}, (2.7)

where the transformation parameter Λ is a chiral superfield, and Φ_{odd} and Φ_{even} are (n_C + n_H )-dimensional column vectors that consist of Φ^{2a−1} and Φ^{2a}, respectively. We have used a matrix notation (V, Σ) ≡ 2ig(V^I , Σ^I )t_I . The gauge coupling g can take different values for each simple or Abelian factor of the gauge group. The gauge-invariant field strength superfields are defined as^8

W_α = 1 4 D̄^2 { e^V D_αe^{−V} − 1 2 σ̄^{β̇β}_μ D_αU^μD̄˙_β ( e^V D_β e^{−V} ) +iD_αU^μe^V ∂_μe^{−V} − iU^μ∂_μ ( e^V D_αe^{−V} )} , V = e^V ~∂_ye^{−V} + U(Σ) + e^V U(Σ)^†e^{−V} +i∂_yU^y ( Σ − e^V Σ^†e^{−V} ) − i⟨V_E⟩^2 2 ( D^αU^yW_α − D̄_{α̇}U^ye^V (W^†)^{α̇}e^{−V} ) , (2.8)

where ~∂_y ≡ ∂_y − 1 4 D̄^2Ψ^αD_α − 1 4 D^2Ψ̄_{α̇}D̄^{α̇} − i 2 σ^μ_{αα̇} (¯ D^{α̇}Ψ^α + D^αΨ̄^{α̇} ) ∂_μ + { ∂_yU^μ + 1 2 σ^μ_{αα̇} (¯ D^{α̇}Ψ^α − D^αΨ̄^{α̇} ) } Δ_μ. (2.9)

They transform under (2.7) as

W_α → e^ΛW_αe^{−Λ}, V → e^{U(Λ)}Ve^{−U(Λ)}. (2.10)

We can check that these field strength superfields follow the correct δ^{(1)}sc -transformation laws. The Weyl weights of W_α and V are 3/2 and 0, respectively.

8 Note that V is not hermitian, but e^{− V2} Ve^{V2} is.

Matter Lagrangian The 5D SUGRA Lagrangian is expressed as

L = L^{EW}_{kin} − ∫ d^4θ ( 1 + Δ_μU^μ 3 ) ( 2V_EΩ_h + V^{−2}_E Ω_v )

+ [∫ d^2θ (W_h + W_v) + h.c. ] + 2 ∑ y_∗=0,L L^{(y∗)}_{bd} δ(y − y_∗), (2.11)

where L^{EW}_{kin} denotes kinetic terms for the Weyl multiplet, L^{(y∗)}_{bd} (y_∗ = 0, L) are the boundary localized Lagrangians at y = y_∗, and

Ω_h ≡ U(Φ_{odd})^†d̃(e^V )^tU(Φ_{odd}) + U(Φ_{even})^†d̃e^{−V} U(Φ_{even}), d̃ ≡ diag(1_{nC} , −1_{nH} ),

Ω_v ≡ N (V) = − c^3 24g^3 tr ( V^3 ) , W_h ≡ Φ^t_{odd}d̃ ( ^∂_y − Σ ) Φ_{even} − Φ^t_{even}d̃ ( ^∂_y + Σ^t ) Φ_{odd},

W_v ≡ c^3 16g^3 tr [ ΣW^2 − 1 24 D̄^2 (Z^α) ( W_α − 1 4 W^{(2)}_α )] + · · · . (2.12)

Here, W_v represents the supersymmetric Chern-Simons terms,^9 and a part of it provides the kinetic term for the vector superfield V after the superconformal gauge fixing. The ellipsis in W_v denotes terms that vanish in the Wess-Zumino gauge. W^{(2)}α is a quadratic part of W_α in V , and Z_α ≡ {X, ∂_yD_αX}_E − { ^∂_yX, D_αX}_E , (2.13) where X ≡ (1 + U^μΔ_μ) V − iU^y (Σ − e^V Σ^†e^{−V} ), and {X , Y_α}_E ≡ {X , [Y_α]_E } − 1 2 σ̄^{β̇β}_μ ( U^μ { D_βD̄˙_βX , Y_α } + D_αU^μ {¯ D˙_βX , Y_β }) , [∂_yD_αX]_E ≡ D_α ^∂_yX − 1 2 σ̄^{β̇β}_μ U^μD_αD_βD̄˙_β∂_yX + 1 4 ( σ^μ_{αβ̇} ∂_yU_μ + D̄˙_βΨ_α − D_αΨ̄˙_β ) D^2D̄^{β̇}X, [D_αX]_E ≡ D_αX − 1 2 σ̄^{β̇β}_μ U^μD_αD_βD̄˙_βX. (2.14)

Kinetic terms for E_W In contrast to the matter sector, L^{EW}_{kin} is quadratic in the gravitational superfields.

9 The counterpart in the global 5D SUSY theory is shown in Refs. [42, 43].

It should be identified from the invariance of the action up to linear order in the gravitational superfields. This requires an extension of the 5D superconformal transformations (A.1) and (A.2) by including linear terms in the gravitational superfields. For the purpose of this paper, we only need terms in L^{EW}_{kin} that are independent of the quantum fluctuation of the matter superfields. Hence, we can treat the matter superfields in the corrections to (A.1) and (A.2) as the background values. The corrected transformations involving U^μ are listed in (A.5) in Appendix A. By requiring the invariance of the action under the corrected transformations, we find

L^{EW}_{kin} = ∫ d^4θ {⟨ 2V_EΩ_h + V^{−2}_E Ω_v 3 ⟩ E_2 + ⟨ V^{−1}_E Ω_h − 4V^{−4}_E Ω_v 3 ⟩ C^μC_μ } , (2.15)

where the symbol ⟨· · ·⟩ denotes the background value, and

E_2 ≡ − 1 8 U_μD^αD̄^2D_αU^μ + 1 3 (Δ_μU^μ)^2 − (∂_μU^μ)^2 ,

C^μ ≡ ∂_yU^μ + 1 2 σ^μ_{αα̇} (¯ D^{α̇}Ψ^α − D^αΨ̄^{α̇} ) + ⟨V_E⟩^2∂^μU^y. (2.16)

In addition to the above terms, the following term is expected to appear in the 5D Lagrangian. L_{add} = − ⟨ Ω_v V^4_E ⟩ D̄^{α̇}Ψ^αD_αΨ̄_{α̇}. (2.17)

This term is necessary to obtain the correct kinetic terms for the vector superfields (3.15). In order to justify the existence of this term, we need to modify δ^{(1)}sc and δ^{(2)}sc further by including Ψ_α-dependent terms in the right-hand sides of (A.1) and (A.2). Here we leave this task for future works, and just assume (2.17).

Boundary localized terms We can introduce terms localized on the 4D boundaries of S^1/Z_2. The boundary actions are described by the action formulae of 4D superconformal formulation [41], and expressed in terms of the superfields as [37]

L^{(y∗)}_{bd} = ∫ d^4θ { − 2 3 ⟨ Ω^{(y∗)}_{bd} ⟩ E_2 + 2 ( 1 + Δ_μU^μ 3 ) Ω^{(y∗)}_{bd} }

+ [∫ d^2θ { ϕ^3P^{(y∗)}(χ) − 1 2 tr ( f^{(y∗)}(χ)W^αW_α ) } + h.c. ] , (2.18)

where Ω^{(y∗)}_{bd} = − 3 2 |U(ϕ_C )|^2 exp { − K^{(y∗)}(U(χ), V_{4D}) 3 } . (2.19)

Chiral superfields ϕ_C and χ^a (a = 1, 2, · · · ) are the 4D compensator and the physical matter superfields, and V^I_{4D} are 4D vector superfields. A real function K^{(y∗)} is the Kähler potential, and holomorphic functions P^{(y∗)} and f^{(y∗)} are the superpotential and the gauge kinetic functions, respectively. Note that U(ϕ) = (1 + iU^μ∂_μ) ϕ in the above Lagrangian since U^y is Z_2-odd and vanishes on the boundaries. In general, χ^a and V^I_{4D} can be either boundary values of the Z_2-even bulk superfields or additional 4D superfields localized on the boundaries. In contrast to the 5D bulk action, we have only one compensator chiral multiplet. Thus, one combination of Z_2-even 5D compensators Φ^{2a} (a = 1, · · · , n_C ) plays its role.^{10} In the case of n_C = 1, Φ^2 is the only Z_2-even compensator superfield. Hence, the 4D chiral compensator superfield ϕ_C in L^{(y∗)}_{bd} (y_∗ = 0, L) is identified as

ϕ_C = ( Φ^2 )_{2/3}| |_{y=y∗} , (2.20)

because ϕ_C must have w = n = 1. The bulk physical matter superfields can appear in L^{(y∗)}_{bd} in the forms of

χ^a =

Φ^{2a+2} Φ^2 | | | |_{y=y∗} , V^{4D} = V |^{y=y∗} , (2.21)

because the physical matter superfields must have zero Weyl (chiral) weight in the 4D superconformal formulation [41].

In the case of n_C = 2, there are two Z_2-even compensator superfields Φ^2 and Φ^4. In this case, we have to eliminate one combination of the 5D compensator multiplets. In Ref. [27], this is done by introducing a nondynamical (auxiliary) Abelian vector multiplet V_T = (V_T , Σ_T ), and gauging a U(1) subgroup of the isometries, which is referred to as U(1)_T , by it. The U(1)_T charges Q_T are chosen as Q_T (Φ^1) = Q_T (Φ^4) = Q_T (Φ^{2a+4}) = +1 and Q_T (Φ^2) = Q_T (Φ^3) = Q_T (Φ^{2a+3}) = −1 (a ≥ 1). Since the 4D superfields must be neutral for U(1)_T , they are identified as

ϕ_C = ( Φ^2Φ^4 )_{1/3}| |_{y=y∗} , χ^a = Φ^{2a+4} Φ^4 | | |_{y=y∗} . (2.22)

10 Since the gravity is unique in the whole system, the boundary compensator multiplets must be the boundary values of the bulk compensator multiplets.

As pointed out in Ref. [44], V_E does not have a kinetic term and can be integrated out. From (2.11), V_E is expressed as V_E = ( Ω_v Ω_h )_{1/3} . (2.23)

After integrating it out, the 5D Lagrangian becomes L = ∫ d^4θ {⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ E_2 − ⟨ Ω^{−1/3}_v Ω^{4/3}_h ⟩ ( C^μC_μ + D̄^{α̇}Ψ^αD_αΨ̄_{α̇} )

−3 ( 1 + Δ_μU^μ 3 ) Ω^{1/3}_v Ω^{2/3}_h }

+ [∫ d^2θ (W_h + W_v) + h.c. ] + 2 ∑ y_∗=0,L L^{(y∗)}_{bd} δ(y − y_∗). (2.24)

In our previous paper [30], we implicitly assumed that ⟨Ω_v⟩ = ⟨Ω_h⟩ = 1 (in the unit of the 5D Planck mass), but we need their explicit dependences on the background superfields of the matters for the derivation of the one-loop effective Kähler potential.

In order to obtain the Poincaré SUGRA, we have to impose the superconformal gaugefixing conditions to eliminate the extra symmetries. For example, the dilatation symmetry will be fixed by the condition, Ω_v|_0 = Ω_h|_0 = 1 in the 5D Planck unit,^{11} where the symbol |_0 denotes the lowest component of the superfield. However, these gauge-fixing conditions are incompatible with the N = 1 off-shell structure. Thus we will add the gauge-fixing terms in the calculations in Sec. 3, instead of imposing such conditions.

3 One-loop effective Kähler potential

In our previous works [9, 10, 45], we derived the 4D effective action at tree level. We provide a brief review of the derivation in Appendix C. In this section, we calculate the one-loop contributions to the effective Kähler potential.

3.1 Background field method

We calculate the one-loop effective Kähler potential by using the background field method [46].^{12} First we split each superfield into the background and the fluctuation parts.

11 This condition must be consistent with the orbifold projection, which indicates that C_{Io JoKe} = C_{Ie Je Ke} = 0.

12 The first calculation of the one-loop effective Kähler potential by means of the N = 1 superfield technique was provided in Ref. [47].

Since we are interested in the effective theory for the zero-modes of the matter superfields, we only consider the background values of the Z_2-even matter superfields Φ_{even}, V^{Ie} , and Σ^{Io} . We move to a gauge where ⟨Σ^I ⟩ are zero by the supergauge transformation for the background superfields. This is accomplished by choosing the transformation parameter as (C.3) (or (D.7) in the Abelian case). Then ⟨V^{Io} ⟩ become discontinuous at y = L. In fact, in the case that the gauge group is Abelian, their boundary conditions are

lim_{y→0}⟨V^{Io} ⟩ = 0, lim_{y→L}⟨V^{Io} ⟩ = −T^{Io} − T̄^{Io} , ⟨V^{Io} ⟩ | |_{y=0} = ⟨V^Io ⟩ | |_{y=L} = 0, (3.1)

where the limits are taken from the bulk region 0 < y < L, and

T^{Io} ≡ ∫_L 0 dy ⟨Σ^{Io} ⟩. (3.2)

We refer to the chiral superfields T^{Io} as the moduli superfields in this paper. In order to take them into account, we also keep the background values of V^{Io} in addition to those of the Z_2-even matter superfields. Thus, each matter superfield is split as

Φ_{odd} = Φ̃_{odd}, Φ_{even} = Φ + Φ̃_{even}, V = V + Ṽ , Σ = Σ̃, (3.3)

where Φ and V are the background values and the quantities with tilde denote the fluctuation parts. We neglect derivative terms in the effective Kähler potential, and thus we treat Φ and V as functions of only y in the following calculations. The gravitational superfields U^μ, U^y, and Ψ_α are considered as the fluctuation modes. (V_E has already been integrated out.) As we have pointed out in Ref. [30], U^y can be gauged away by δ^{(2)}sc given in (A.2) in Appendix A. So we take the gauge where U^y = 0 in the following.^{13} We expand the 5D Lagrangian (2.24) and pick up quadratic terms in the fluctuation superfields. L = ∑ F ∫ d^4θ F^†O_F F + · · · , (3.4)

where F runs over the fluctuation superfields, and O_F are differential operators that depend on Φ and V . Then the one-loop contribution to the effective action Δ^{1loop}S is calculated as Δ^{1loop}S = i 2(2π)^4 ∑ F ∫ d^4p Tr (str ln O_F ) , (3.5)

13 In this gauge, we do not need to consider contributions from the ghost for δ^{(2)}_{sc} because it is decoupled from the background superfields Φ and V .

where str is the supertrace over the functional space on the 16-dimensional graded vector space built from all combinations of θ and θ̄, and Tr is the trace over the remaining space including the functional space of y. Here we denote an integrand of the d^4θ-integral for str as Istr [48]. Namely, it follows that

str ln O_F ≡ ∫ d^4θ Istr ln O_F . (3.6)

Then the one-loop contribution to the Kähler potential Ω_{eff} = −3e^{−Keff /3} is expressed as

Ω^{1loop}_{eff} = i 2(2π)^4 ∑ F ∫ d^4p Tr (Istr ln O_F ) . (3.7)

Since Ω^{1loop}_{eff} is a function of the background superfields whose dependences on x^μ and θ (θ̄) are now neglected, Istr is calculated by

Istr ln O_F = [ ln O_F ( θ^2θ̄^2 )] θ=θ̄=0 . (3.8)

Its values for various operators are collected in (B.10).

3.2 Quadratic terms for fluctuation modes

Here we pick up the quadratic terms in the fluctuation superfields, and find explicit forms of O_F in (3.4). Detailed calculations are shown in Appendix D.

3.2.1 Bulk sector

Using the superspin projectors defined by (B.4) in Appendix B, U^μ is decomposed as [23, 49, 50] U^μ = ∑ s Π^{μν}_s U_ν ≡ ∑ s U^μ_s , (3.9)

where s = 0, 1/2, 1, 3/2. We choose the gauge-fixing term for the superconformal symmetry δ^{(1)}sc as

L^{sc}_{gf} = ∫ d^4θ ⟨ Ω^{1/3}v Ω^{2/3}_h ⟩ ξ_{sc}

Û_μ□_4Π^{μν}_{gf} (ξ_{sc})Û_ν , (3.10)

where ξ_{sc} is the gauge-fixing parameter, □_4 ≡ ∂^μ∂_μ, and

Π^{μν}_{gf} (ξ_{sc}) ≡ η^{μν} − Π^{μν}_{3/2} −

2ξ_{sc} 3 Π^{μν}_0 , Û_μ ≡ U_μ + 3iξ^{sc} (3 − 2ξ_{sc})□_4 ∂_μ ( T + Φ̃_C − T̄ − ¯Φ̃_C )

+ ξ_{sc} 2□_4 ( η_{μν} + 2ξ_{sc} 3 − 2ξ_{sc} Π_{0μν} ) Δ^ν ( Ṽ_v + Ṽ_h ) . (3.11)

Here, T , Φ̃_C , Ṽ_v and Ṽ_h are defined as^{14} T ≡ N_I 3N (⟨V⟩)Σ̃^I , V_T ≡ N_I 3N (⟨V⟩)Ṽ^I , Φ̃_C ≡ 2 3 Υ^†Φ̃_{even}, Υ ≡ 1 ⟨Ω_h⟩ d̃e^{−V} Φ, Ṽ_v ≡ − N^I 3N (⟨V⟩)∂_yṼ^I , Ṽ_h ≡ 2 3 Φ^†Υ_IṼ^I , Υ_I ≡ 1 ⟨Ω_h⟩ ∂ ∂V^I d̃e^{−V} Φ, (3.12)

where N_I ≡ ∂N /∂V^I . Then the cross terms between U_μ and the other superfields are canceled, and we obtain

L + L^{sc}_{gf} = ∫ d^4θ { −U^μ_{3/2}O_{3/2}U_{3/2μ} + Ū^μO¯_U Ū_μ } + O(ξ_{sc}) + ∫ d^4θ N_I N_J 2N (⟨V⟩)Ṽ^I □_4P_T Ṽ^J + · · · , (3.13)

where P_T is a projection operator defined in (B.2), and

Ū^μ ≡ U^μ − U^μ_{3/2} = ( Π^{μν}_0 + Π^{μν}_{1/2} + Π^{μν}_1 ) U_ν , O_{3/2} ≡ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ (□_4 + D_U ) , O¯_U ≡ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ ( 1 ξ_{sc}

□_4 + D_U ) ,

D_U ≡ − ∂_y (⟨ Ω^{−1/3}v Ω^{4/3}_h ⟩ ∂_y ) ⟨ Ω^{1/3}v Ω^{2/3}_h

⟩ . (3.14)

The last term in (3.13) is combined with the quadratic terms in the vector sector shown in (D.1), and provides the kinetic terms for Ṽ^I ,

L^{vec}_{kin} = ∫ d^4θ ⟨Ω_v⟩ a_{IJ}Ṽ^I □_4P_T Ṽ^J , (3.15)

where a_{IJ} ≡ − 1 2N ( N_{IJ} − N_I N_J N ) , N_{IJ} ≡ ∂^2N ∂V^I ∂V^J . (3.16)

The arguments of the norm function and its derivatives are understood as ⟨V^I ⟩ in this and the next subsections. These kinetic terms are consistent with those in Ref. [25].

In the following, we consider a case that the gauge group is Abelian for simplicity. We choose the gauge-fixing term for the supergauge symmetry δ_{sg} as

L^{sg}_{gf} = ∫ d^4θ ⟨Ω_v⟩ a_{IJ} ξ_{sg}

V̂^I □_4P_CV̂^J , (3.17)

14 T and V_T correspond to the 5D radion and the graviphoton superfields, respectively.

where ξ_{sg} is the gauge-fixing parameter, P_C is the chiral projection operator defined in (B.2), and

V̂^I ≡ Ṽ^I + ξ^{sg}a^{IJ}

⟨Ω_v⟩ □_4 ( Ξ_J + Ξ̄_J ) . (3.18)

The definition of Ξ_I is given in (D.11). Then the cross terms between Ṽ and the chiral superfields are canceled.

As a result, the quadratic terms for the fluctuation superfields in the 5D Lagrangian are summarized as

L_{quad} = ∫ d^4θ U_μ { −O_{3/2}Π^{μν}_{3/2} + O¯_U ( η^{μν} − Π^{μν}_{3/2} )} U_ν + ∫ d^4θ Ṽ^I {(O_T )_{IJ} P_T + (O_C )_{IJ} P_C } Ṽ^J + ∫ d^4θ (φ^†, φ^t) ( K W̄^{D̄2}_{4□4} W^{D2}_{4□4} K^t ) ( φ φ̄ ) , (3.19)

where φ ≡ (Σ̃^I , Φ̃_{even}, Φ̃_{odd})^t, and

(O_T )_{IJ} ≡ ⟨Ω_v⟩ a_{IK} { δ^K_J □_4 + (D_V )^K_J } + O(ξ_{sg}),

(O_C )_{IJ} ≡ ⟨Ω_v⟩ a_{IK} { δ^K_J ξ_{sg}

□_4 + (D_V )^K_J } + O(ξ_{sg}),

(D_V )^I_J ≡ − a^{IK} ⟨Ω_v⟩ ∂_y {⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ ( (a · P_V )_{KJ} ∂_y + N_K 3N Υ^†_J Φ )}

+ ⟨ Ω_h Ω_v ⟩_{2/3} a^{IK} ( N_J 3N Υ^†_K Φ∂_y − ⟨ ∂_I ∂_J Ω_h Ω_h ⟩ + Υ^†_I ΦΦ^†Υ_J 3 ) ,

K ≡ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ (a · P_V )_{IJ} −^{NI}_{3N} Υ^† 0 −^{NJ}_{3N} Υ −^1_{⟨Ωh⟩}d̃e^{−V} +^1_3 ΥΥ^† 0 0 0 −^1_{⟨Ωh⟩}d̃(e^V )^t

+ O(ξ^{sg}),

W ≡ 0 0 −Φ^td̃t̂^t_I 0 0 −d̃∂_y −d̃t̂_J Φ d̃∂_y 0

. (3.20)

Here t̂_I ≡ 2igt_I are hermitian generators, and

(P_V )^I_J ≡ δ^I_J − ⟨V^I ⟩N_J 3N . (3.21)

is a projection operator [25], which has a property,

N_I (P_V )^I_J = (P_V )^I_J ⟨V^J ⟩ = 0, P^2_V = 1_{nV} . (3.22)

The definitions of Υ and Υ_I are given in (3.12). For the purpose of calculating the one-loop Kähler potential, it is convenient to choose the gauge-fixing parameters as ξ_{sc} = ξ_{sg} = 0.

3.2.2 Boundary sector

From (2.18), the quadratic terms for the fluctuation superfields in the boundary Lagrangians are found to be

L^{(y∗)}_{boundary} = L^{(y∗)}_{bd} + L^{sc(y∗)}_{gf} + L^{sg(y∗)}_{gf} = ∫ d^4θ |ϕ_C |^2 h^{(y∗)} { −U_μ□_4Π^{μν}_{3/2}U_ν + 1 ζ^{(y∗)}sc

U_μ□_4 ( η^{μν} − Π^{μν}_{3/2} ) U_ν }

+ ∫ d^4θ [ Re f^{(y∗)}_{IeJe} { Ṽ^Ie □_4 ( P_T + 1 ζ^{(y∗)}sg P_C ) Ṽ^Je } − 3 2 |ϕ_C |^2 h^{(y∗)}_{IeJe}Ṽ^{Ie}Ṽ^{Je} ]

+ ∫ d^4θ [ |ϕ_C |^2 h^{(y∗)}_{ab̄} χ̃^a ¯χ̃^b + ( ϕ̄_C h^{(y∗)}_ā ϕ̃_C ¯χ̃^a + h.c. ) + h^{(y∗)}|ϕ̃_C |^2 ]

+ [∫ d^2θ ( 1 2 ϕ^3_C P^{(y∗)}_{ab} χ̃^aχ̃^b + 3ϕ^2_C P^{(y∗)}_a ϕ̃_Cχ̃^a + 3ϕ_C P^{(y∗)}ϕ̃^2_C ) + h.c. ]

+O ( ζ^{(y∗)}_{sc} , ζ^{(y∗)}_{sg} ) + · · · , (3.23)

where ϕ_C (ϕ̃_C ) and χ^a (χ̃^a) are the background (fluctuation) parts of the compensator and the physical chiral superfields ϕ_C and χ^a, and h^{(y∗)} ≡ −3 exp ( −K^{(y∗)}/3 ) , h^{(y∗)}a ≡ ∂h^{(y∗)}/∂χ^a, h^{(y∗)}_{Ie} ≡ ∂h^{(y∗)}/∂V^{Ie} , · · · , whose arguments are (χ, V ). We have chosen the boundary gauge-fixing terms for the superconformal and the gauge symmetries as

L^{sc(y∗)}_{gf} = − ∫ d^4θ

|ϕ_C |^2 h^{(y∗)} ζ^{(y∗)}sc

Û_μ□_4Π^{μν}_{gf} (ζ_{sc})Û_ν ,

Û_μ = U_μ + 3iζ^{(y∗)sc} (3 − 2ζ^{(y∗)}sc )□_4 ∂_μ ( h^{(y∗)}a h^{(y∗)} χ̃^a + ϕ̃_C ϕ_C − h.c. )

+ ζ^{(y∗)}sc 2□_4 ( η_{μν} + 2ζ^{(y∗)}sc 3 − 2ζ^{(y∗)}sc Π_{0μν} ) ( h^{(y∗)}_{Ie} h^{(y∗)} Δ^νṼ^{Ie} ) ,

L^{sg(y∗)}_{gf} = ∫ d^4θ

Re f^{(y∗)}_{IeJe} (χ)

ζ^{(y∗)}sg

V̂^Ie_{y∗} □_4P_CV̂^Je_{y∗} ,

V̂^Ie_{y∗} ≡ Ṽ^Ie + 3ζ^{(y∗)sg} 2□_4 { F^{IeJe} ( |ϕ_C |^2 h^{(y∗)}_{Jea} χ̃^a + ϕ̄_C h^{(y∗)}_{Je} ϕ̃_C + h.c. )} , (3.24)

where F^{IeJe} is an inverse matrix of Re f^{(y∗)}_{IeJe} (χ). In the following, we will choose the gaugefixing parameters as ζ^{(y∗)}sc = ζ^{(y∗)}sg = 0.

In the case that ϕ_C and χ^a are the boundary values of the bulk superfields, the relations (2.20) and (2.21) (or (2.22)) in L^{(L)}_{bd} must be modified for the background superfields because we have performed the discontinuous gauge transformation at y = L. (See (C.16).)

In the case of n_C = 1, for example, the relations are modified as ϕ_C = e^{−2kIo T Io} ( Φ^1 )_{2/3}| |_{y=L} , χ^a = { exp ( T^{Io}ť_{Io} ) Φ }_{a+1} Φ^1 | | | | |_{y=L} , (3.25)

where k_{Io} and ť_{Io} are defined in (C.18).

The above boundary-localized terms affect the boundary conditions for the fluctuation modes of the bulk superfields, which are no longer determined only by the orbifold parities. We derive them in Appendix E.

3.3 Integration of fluctuation modes

In this subsection, we perform the integration of the fluctuation modes, and obtain formal expressions of the one-loop contributions to Ω^{1loop}_{eff} .

3.3.1 Contribution from gravitational superfields

The contribution from the gravitational superfields is

Ω^U_{eff} = i 2(2π)^4 ∫ d^4p Tr { Istr ln O_U − Istr ln ( 1 ξ_{sc} ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ Π_{gf} )} , (3.26)

where O^{μν}_U ≡ −O_{3/2}Π^{μν}_{3/2} + O¯_U ( η^{μν} − Π^{μν}_{3/2} ) . (3.27)

The second term in (3.26) is a contribution from the ghost for δ^{(1)}sc . (See the gauge-fixing term (3.10).) Since

ln O_U = Π^{μν}_{3/2} ln(−O_{3/2}) + ( η^{μν} − Π^{μν}_{3/2} ) ln O¯_U , (3.28)

it follows that Tr { Istr ln O_U − Istr ln ( 1 ξ_{sc} ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ Π_{gf} )}

= IstrΠ_{3/2}Tr ln(−O_{3/2}) + Istr(η − Π_{3/2})Tr ln O¯_U − IstrΠ_{gf} Tr ln (⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩)

= 4 □_4

Tr ln O_{3/2} −

4ξ_{sc} 3□_4

Tr ln (⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩) + · · · , (3.29)

where the ellipsis denotes terms independent of the background superfields. Thus, when ξ_{sc} = 0, Ω^U_{eff} is calculated as

Ω^U_{eff} = i 2(2π)^4 ∫ d^4p 4 −p^2 Tr ln O_{3/2}(p^2) + · · · = − ∫ d^4p_E (2π)^4 2 p^2_E ln DetO_{3/2}(−p^2_E ) + · · · , (3.30) where p^μ_E ≡ (p^1, p^2, p^3, −ip^0) is the Wick-rotated Euclidean momentum, and Det is the functional determinant, which is expressed as ( Det O_{3/2} )_{−1/2} = ∫ DF_U exp { − ∫_L 0 dy F_U O_{3/2}F_U } . (3.31)

The integral variable F_U is a function of y, and can be expanded as

F_U (y) = ∑ k f_U (y; μ^{(k)}_U )F^{(k)}_U , (3.32)

where f_U (y; μ_U ) is an eigenfunction of D_U defined in (3.14) with an eigenvalue μ^2_U , i.e.,

D_U f_U (y; μ_U ) = μ^2_U f_U (y; μ_U ). (3.33)

This has a form of the Sturm-Liouville equation. Thus the eigenfunctions satisfy the orthonormal condition, ∫_L 0 dy ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ f_U (y; μ^{(k)}_U )f_U (y; μ^{(l)}_U ) = δ_{kl}. (3.34)

Then, (3.31) is rewritten as ( Det O_{3/2} )_{−1/2} = ∫ ∏ k DF^{(k)}_U exp { − ∑ k F^{(k)}_U ( p^2_E + μ^{(k)2}_U ) F^{(k)}_U }

= ∏ k ( p^2_E + μ^{(k)2}_U )_{−1/2} , (3.35)

up to an irrelevant normalization constant. Therefore, (3.30) becomes

Ω^U_{eff} = ∫ d^Dp_E (2π)^D 2 p^2_E ∑ k ln ( p^2_E + μ^{(k)2}_U ) + · · ·

= − 2Γ(1 −^D_2 ) (4π)^D2 (_D 2 − 1 ) ∑ k μ^{(k)D−2} U + · · · , (3.36)

where Γ(z) is the gamma function. We have used the dimensional reduction [51] to regularize the divergent momentum integral.^{15}

15 Since our formalism respects the superconformal symmetry, a momentum cutoff should not be introduced in contrast to Ref. [52].

3.3.2 Contribution from vector superfields

The contribution from the vector superfields is

Ω^V_{eff} = i 2(2π)^4 ∫ d^4p Tr {Istr ln O_V − Istr ln (⟨Ω_v⟩ aP_C )} , (3.37)

where a is the matrix defined in (3.16), and

O_V ≡ O_T P_T + O_C P_C . (3.38)

The second term in (3.37) is a contribution from the ghost for δ_{sg}. (See the gauge-fixing term (3.17).) Since ln O_V = P_T ln O_T + P_C ln O_C , (3.39) it follows that

Tr {Istr ln O_V − Istr ln (⟨Ω_v⟩ aP_C )} = (IstrP_T )Tr ln O_T + (IstrP_C )Tr ln O_C − (IstrP_C )Tr (⟨Ω_v⟩ a) = 2 □_4

Tr {ln O_T − ln O_C + ln (⟨Ω_v⟩ a)} . (3.40)

When ξ_{sg} → 0, ln O_C → ln ( ⟨Ω_v⟩ ξ_{sg} a□_4 ) = ln (⟨Ω_v⟩ a) + · · · , (3.41)

where the ellipsis denotes terms independent of the background superfields. Therefore, Ω^V_{eff} is calculated as

Ω^V_{eff} = i (2π)^4 ∫ d^4p 1 −p^2 Tr ln O_T (p^2) + · · · = − ∫ d^4p_E (2π)^4 1 p^2_E ln Det O_T (−p^2_E ) + · · · . (3.42)

Similarly to the derivation of (3.36), this can be rewritten as

Ω^V_{eff} = − ∫ d^Dp_E (2π)^D 1 p^2_E ∑ k ln ( p^2_E + μ^{(k)2}_V ) + · · · = Γ(1 −^D_2 ) (4π)^D2 (_D 2 − 1 ) ∑ k μ^{(k)D−2} V + · · · , (3.43)

where μ^{(k)2}_V are eigenvalues of D_V defined in (3.20), i.e.,

(D_V )^I_J f^J_V (y; μ_V ) = μ^2_V f^I_V (y; μ_V ), (3.44)

and the eigenfunctions satisfy the orthonormal condition, ∫_L 0 dy ⟨Ω_v⟩ a_{IJ} f^I_V (y; μ^{(k)}_V )f^J_V (y; μ^{(l)}_V ) = δ_{kl}. (3.45)

3.3.3 Contribution from chiral superfields

The contribution from the chiral superfields is

Ω^{ch}_{eff} = i 2(2π)^4 ∫ d^4p TrIstr (P ln O_{ch}) , (3.46)

where P ≡ ( P_+ P_− ) , O_{ch} ≡ ( K W̄^{D̄2}_{4□4} W^{D2}_{4□4} K^t ) . (3.47)

The chiral projection operators P_± are defined in (B.1). In (3.46), P is necessary because we have integrated the chiral fluctuation modes. Here, O_{ch} is rewritten as

O_{ch} = ( K 0 0 K^t ) (1 + M_{ch}) , (3.48)

where M_{ch} ≡ ( 0 K^{−1}W̄^{D̄2}_{4□4} (K^t)^{−1}W^{D2}_{4□4} 0 ) . (3.49)

Notice that K is a normal matrix when ξ_{sg} = 0 (see (3.20)), and

K^{−1} ≡ ⟨ Ω^{−1/3}_v Ω^{−2/3}_h ⟩ a^{IJ} −⟨V^I ⟩Φ^† 0 −Φ⟨V^J ⟩ − ⟨Ω_h⟩ e^V d̃ + ΦΦ^† 0 0 0 − ⟨Ω_h⟩ (e^{−V} )^td̃

, (3.50)

where ⟨V^I ⟩ = −∂_y V^I . When ξ_{sg} ≠ 0, K becomes a differential operator matrix and K^{−1} must be understood as the Green’s function for it.

Since only even powers of M_{ch} contribute to the trace, it follows that

Tr Istr (P ln O_{ch}) = Tr Istr ( P_+ ln K 0

0 P_− ln K^t ) + Tr Istr {P ln (1 + M_{ch})} = − 2 □_4

Tr ln K + 1 2 Tr Istr { P ln ( 1 − M^2_{ch} )}

= − 1 □_4 Tr { 2 ln det K + tr ln ( 1 + K^{−1}W̄ (K^t)^{−1}W □_4 )} , (3.51)

where Tr in the third line denotes the trace over only the functional space of y. Therefore, (3.46) is calculated as

Ω^{ch}_{eff} = i 2(2π)^4 ∫ d^4p 1 p^2 Tr { 2 ln det K + tr ln ( −p^2 + D_{ch} )} + · · · = ∫ d^4p_E 2(2π)^4 1 p^2_E Tr { 2 ln det K + tr ln ( p^2_E + D_{ch} )} + · · · . (3.52) where D_{ch} ≡ K^{−1}W̄ (K^t)^{−1}W. (3.53)

Similarly to the derivation of (3.36) or (3.43), this can be rewritten as

Ω^{ch}_{eff} = ∫ d^Dp_E 2(2π)^D 1 p^2_E ∑ k ln ( p^2_E + μ^{(k)2}_{ch} ) + · · ·

= − Γ(1 −^D_2 ) 2(4π)^D2 (_D 2 − 1 ) ∑ k μ^{(k)D−2} ch + · · · , (3.54)

where μ^{(k)2}_{ch} are eigenvalues of D_{ch}, i.e.,

D_{ch}f_{ch}(y; μ_{ch}) = μ^2_{ch}f_{ch}(y; μ_{ch}). (3.55)

3.3.4 Contribution from boundary actions

Here we calculate the contributions to Ω^{1loop}_{eff} from the boundary Lagrangians (3.23).

The contribution from the gravitational superfields is

Ω^{(y∗)U}_{eff} = i 2(2π)^4 ∫ d^4p lim_{ζ(y∗)}

sc →0 { Istr ln O^{bd}_U − Istr ln ( |ϕ_C |^2 h^{(y∗)}

ζ^{(y∗)}sc

Π_{gf} (ζ^{(y∗)}_{sc} ) )}

= − ∫ d^4p_E 8π^4 1 p^2_E ln ( |ϕ_C |^2 h^{(y∗)} ) + · · · = − ∫ dp^2_E 8π^2 ln ( |ϕ_C |^2 h^{(y∗)} ) + · · · , (3.56)

where the ellipsis denotes terms independent of the background superfields, and

O^{bd}_U = |ϕ_C |^2 h^{(y∗)}□_4 { −Π^{μν}_{3/2} + 1 ζ^{(y∗)}sc ( η^{μν} − Π^{μν}_{3/2} )} . (3.57)

Recall that our formalism respects the superconformal symmetry. Thus (3.56) is independent of the background superfields because their dependences can be absorbed by rescaling the momentum as p^2_E → p^2_E / ln(|ϕ_C |^2 h^{(y∗)}).

The contribution from the vector superfields is

Ω^{(y∗)V}_{eff} = i 2(2π)^4 ∫ d^4p lim_{ζ(y∗)}

sg →0 tr { Istr ln ( O^{(y∗)}_T P_T + O^{(y∗)}_C P_C ) − Istr ln ( Re f^{(y∗)}_{IeJe} P_T )}

= − ∫ d^4p_E 16π^4 1 p^2_E tr { ln Re f^{(y∗)} + ln ( p^2_E + M^{2(y∗)}_V )} + · · · , (3.58) where

(O^{(y∗)}_T )_{IeJe} ≡ Re f^{(y∗)}_{IeKe} { δ^{Ke}_{Je} □_4P_T + ( M^{2(y∗)}_V )_{Ke} J_e } , (O^{(y∗)}_C )_{IeJe} ≡ Re f^{(y∗)}_{IeKe} { δ^{Ke}_{Je} ζ^{(y∗)}sg

□_4P_T + ( M^{2(y∗)}_V )_{Ke} J_e } , ( M^{2(y∗)}_V )_{Ie} J_e ≡ − 3 2 F^{(y∗)IeKe} |ϕ_C |^2 h^{(y∗)}_{KeJe} , (3.59)

and F^{(y∗)IeJe} is an inverse matrix of Re f^{(y∗)}_{IeJe} . The first term in the second line of (3.58) is independent of the background superfields because they can be absorbed by the momentum rescaling. Thus, (3.58) becomes

Ω^{(y∗)V}_{eff} = − ∫ d^Dp_E (2π)^D 1 p^2_E tr ln ( p^2_E + M^{2(y∗)}_V ) + · · · = Γ(1 −^D_2 ) (4π)^D2 (_D 2 − 1 )tr ( K^{2(y∗)}_V ) D_{2 −1} + · · · . (3.60)

Since the boundary Lagrangian in the chiral sector is written as

L^{(y∗)}_{bd} = ∫ d^4θ ϕ^†_{(y∗)} ( K_{(y∗)} W̄_{(y∗)}^{D̄2}_{4□4} W_{(y∗)}^{D2}_{4□4} K^t_{(y∗)} ) ϕ_{(y∗)} + · · · , (3.61)

where ϕ_{(y∗)} ≡ (ϕ̃_C , χ̃^a), and K_{(y∗)} ≡ −3 ( h^{(y∗)} ϕ_C h^{(y∗)}a ϕ̄_C h^{(y∗)}_{b̄} |ϕ_C |^2 h^{(y∗)}_{ab̄} ) ,

W_{(y∗)} ≡ ( 3ϕ_C P^{(y∗) 3}_2 ϕ^2_C P^{(y∗)}a 3 2 ϕ^2_C P^{(y∗)}_b^1_2 ϕ^3_C P^{(y∗)}_{ab} ) , (3.62)

the contribution from the chiral superfields is

Ω^{(y∗)ch}_{eff} = i 2(2π)^4 ∫ d^4p 2 p^2 tr { ln K_{(y∗)} + 1 2 ln ( 1 − M^{2(y∗)}_{ch} p^2 )}

= ∫ d^Dp_E 2(2π)^D 1 p^2_E tr ln ( p^2_E + M^{2(y∗)}_{ch} ) + · · · = − Γ(1 −^D_2 ) 2(4π)^D2 (_D 2 − 1 )tr ( M^{2(y∗)}_{ch} ) D_{2 −1} + · · · , (3.63)

where M^{2(y∗)}_{ch} ≡ K^{−1}_{(y∗)}W̄_{(y∗)} ( K^t_{(y∗)} )_{−1} W_{(y∗)}. (3.64)

We have dropped the first term in the first line of (3.63) at the second equality because it can be absorbed by the momentum rescaling.

3.4 Eigenvalues of differential operators

Here we derive equations satisfied by the eigenvalues of D_F (F = U, V, ch), which appear in (3.36), (3.43) and (3.54). Since we have already integrated out the fluctuation superfields, we rewrite the background superfields Φ and V as Φ_{even} and V in the following. From the procedure summarized in Appendix C, we see that Φ_{even} and V^{Ie} are independent of y while V^{Io} have nontrivial y-dependences. As explained in Appendix C.2, such y-dependences cannot be determined by the equations of motion [45]. Instead, their functional forms are determined when they are regarded as functions of V_s defined by

V_s ≡ s_{Io} V^{Io} , (3.65)

where s_{Io} are arbitrarily chosen constants [9, 10]. This has the following boundary conditions.

V_s|_{y=0} = 0, lim_{y→L} V_s = V̄_s ≡ −2s_{Io} Re T^{Io} . (3.66) As we will explicitly see in the next section, the s_{Io} -dependences are canceled in the final result.

In order to rewrite the eigenvalue equations as differential equations for V_s, we rescale Σ̃Io as Σ̃^I → Σ̂^I ≡ Σ̃I s_{Io} ⟨V^{Io} ⟩ = − Σ̃I ∂_y V_s . (3.67)

Then, (3.33), (3.44) and (3.55) are rewritten as

D̃_Uf̃_U (V_s; μ_U ) = μ^2_Uf̃_U (V_s; μ_U ), D̃_V f̃_V (V_s; μ_V ) = μ^2_V f̃_V (V_s; μ_V ), D̃_1 ¯D̃_2f̃_{12}(V_s; μ_{ch}) = μ^2_{ch}f̃_{12}(V_s; μ_{ch}), D̃_2 ¯D̃_1f̃_{21}(V_s; μ_{ch}) = μ^2_{ch}f̃_{21}(V_s; μ_{ch}), (3.68)

where

f_U (y; μ_U ) = f̃(V_s(y); μ_U ), f_V (y; μ_V ) = f̃(V_s(y); μ_V ),

f_{ch}(y; μ_{ch}) = ( f̃_{12}(V_s(y); μ_{ch}) f̃_{21}(V_s(y); μ_{ch}) ) , (3.69) and D̃_U ≡ − 1 ⟨ Ω^{1/3}v Ω^{2/3}_h ⟩∂_{Vs} (⟨ Ω^{4/3}_h Ω^{1/3}v ⟩ ∂_{Vs} ) ,

(D̃_V )^I_J ≡ − a^{IK} ⟨Ω_v⟩ ∂_{Vs} {⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ ( (a · P_V )_{KJ} ∂_{Vs} − N_K 3N Υ^†_J Φ_{even} )}

− ⟨ Ω_h Ω_v ⟩_{2/3} a^{IK} ( N_J 3N Υ^†_K Φ_{even}∂_{Vs} + ⟨ ∂_K ∂_J Ω_h Ω_h ⟩ − Υ^†_K ΦΦ^†Υ_J 3 ) ,

D̃_1 ≡ 1 ⟨ Ω^{1/3}v Ω^{2/3}_h ⟩ ( −a^{IJ} Φ^†_{even}d̃t̂_J − v^I Φ^†_{even}d̃∂_{Vs} Φ_{even}Φ^†_{even}d̃v − ( ⟨Ω_h⟩ e^V − Φ_{even}Φ^†_{even}d̃ ) ∂_{Vs} ) ,

D̃_2 ≡ ⟨ Ω_h Ω_v ⟩_{1/3} (e^{−V} )^t ( t̂^t_IΦ̄_{even}, ∂_{Vs} ) , v^{Io} ≡ ∂_yV^{Io} ∂_yV_s , v ≡ v^{Io}t̂_{Io} . (3.70)

Here, D̃_1 and D̃_2 are (n_V + n_C + n_H ) × (n_C + n_H ) and (n_C + n_H ) × (n_V + n_C + n_H ) matrices, respectively, and the arguments of the norm function and its derivatives are (0_{nVe} , v^{Io} ). As explained in Appendix C.2, the V_s-dependences of v^{Io} and V^{Io} are determined by the equations of motion for the background superfields. Therefore, the V_s-dependences of D̃_F (F = U, V, 1, 2) are already known after deriving the tree-level Kähler potential.

The boundary conditions are obtained from (E.2) and (E.10) as { A^{(y∗)}_F ∂_{Vs} − B^{(y∗)}_F } f̃_F | | |_{y=y∗} = 0, (F = U, V, ch) (3.71)

where f̃_{ch} ≡ (f̃_{12}, f̃_{21})^t, A^{(y∗)}_{ch} and B^{(y∗)}_{ch} are defined in (E.11), and A^{(y∗)}_U ≡ ⟨ Ω^{−1/3}_v Ω^{4/3}_h ⟩ , B^{(y∗)}_U ≡ η_{y∗} |ϕ_C |^2 h^{(y∗)}μ^2_U , ( A^{(y∗)}_V ) I_eJ_e ≡ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ a_{IeJe} , ( B^{(y∗)}_V ) I_eJ_e ≡ η_{y∗} ( Re f^{(y∗)}_{IeJe} μ^2_V + 2 3 |ϕ_C |^2 h^{(y∗)}_{IeJe} ) , ( A^{(y∗)}_V ) I_eJ_o ≡ ( B^{(y∗)}_V ) I_eJ_o = ( A^{(y∗)}_V ) I_oJ

= 0, ( B^{(y∗)}_V ) I_oJ

≡ δ_{IoJ} , (3.72)

where η_0 = 1 and η_L = −1. We have used p^2 = μ^2_F (F = U, V ), which follows from the bulk equations of motion. The arguments of the norm function and its derivatives are understood as (0_{nVe} , v^{Io} |_{y=y∗} ), and h^{(y∗)}, P^{(y∗)}, f^{(y∗)} and their derivatives are functions of χ^a, which can be either the boundary values of the bulk superfields or 4D superfields localized on the boundaries.

Note that D̃_V , D̃_1D̃_2 and D̃_2D̃_1 can be expressed in the following forms.

(D̃_V )^I_J = − ⟨ Ω_h Ω_v ⟩_{2/3} { P_V ∂^2_{Vs} + A_V ∂_{Vs} + B_V }_I J , D̃_1 ¯D̃_2 = − ⟨ Ω_h Ω_v ⟩_{2/3} {( 0 v^I Υ^† 0 P_{ch} ) ∂^2_{Vs} + A_{12}∂_{Vs} + B_{12} } , D̃_2 ¯D̃_1 = − ⟨ Ω_h Ω_v ⟩_{2/3} { (e^{−V} )^tP̄_{ch}(e^V )^t∂^2_{Vs} + A_{21}∂_{Vs} + B_{21} }_a b , (3.73)

where matrices A_F and B_F (F = V, 12, 21) are functions of the background superfields, and P_{ch} ≡ 1_{nC +nH} − Φ_{even}Υ^† (3.74)

is a projection operator that satisfies

P_{ch}Φ_{even} = 0, Υ^†P_{ch} = 0, P^2_{ch} = P_{ch}. (3.75)

Hence (3.68) is rewritten as { ∂^2_{Vs} + ∂_{Vs} ln ⟨ Ω^{4/3}_h Ω^{1/3}v ⟩ ∂_{Vs} + ⟨ Ω_v Ω_h ⟩_{2/3} μ^2_U } f̃_U = 0, { P_V ∂^2_{Vs} + A_V ∂_{Vs} + B̃_V } f̃_V = 0, { P_{12}∂^2_{Vs} + Ã_{12}∂_{Vs} + B̃_{12} } f̃_{12} = 0, { (e^{−V} )^tP̄_{ch}(e^V )^t∂^2_{Vs} + A_{21}∂_{Vs} + B̃_{21} } f̃_{21} = 0, (3.76)

where

B̃_V ≡ B_V + ⟨ Ω_v Ω_h ⟩_{2/3} μ^2_V 1, B̃_{21} ≡ B_{21} + ⟨ Ω_v Ω_h ⟩_{2/3} μ^2_{ch}1,

P_{12} ≡ ( 0_{nV} 0 0 1_{nC +nH} ) , Ã_{12} ≡ ( P_V 0 Φ_{even}^{NJ}_{3N} 1_{nC +nH} ) A_{12},

B̃_{12} ≡ ( P_V 0 Φ_{even}^{NJ}_{3N} 1_{nC +nH} ) ( B_{12} + ⟨ Ω_v Ω_h ⟩_{2/3} μ^2_{ch}1 ) . (3.77)

The appearance of the projection operators P_V and P_{ch} in (3.76) reflects the fact that the graviphoton and the compensator superfields are unphysical in the superconformal formulation, while that of P_{12} stems from the fact that Σ̃^I do not propagate in the super- Landau gauge ξ_{sg} = 0.

Solving (3.76) with the boundary conditions at y = 0 (i.e., V_s = 0), we can express f̃_F (V_s) (F = U, V, ch) in the form of

f̃_F (V_s) = C_F (V_s; μ_F ) · N_F , (3.78)

where C_F (V_s; μ_F ) are matrices that depend on the background superfields, and N_F is an integration constant vector. (See eq.(4.7) in the next section.) Then the boundary conditions at y = L (i.e., V_s = V̄_s) are rewritten as

Q_F (μ_F ) · N_F = 0, (F = U, V, ch) (3.79)

where Q_F (μ_F ) ≡ ( B^{(L)−1}_F A^{(L)}_F ∂_{Vs} − 1 ) C_F | | |_{Vs=V̄s} . Due to the presence of the projection operators in (3.76), the constant vectors N_F (F = V, ch) belong to projected spaces PS_F . The eigenvalues μ_F are determined by the conditions that (3.79) has solutions with nonvanishing N_F , i.e.,

F_F (μ_F ) ≡ det_{PSF} Q_F (μ_F ) = 0, (F = U, V, ch) (3.80)

where det_{PSF} is the determinant restricted to the projected space PS_F .

3.5 Expression of One-loop Kähler potential

Now we obtain the desired expression of the one-loop Kähler potential by summing up the contributions in Sec. 3.3.

Ω^{1loop}_{eff} = −

Γ(1 −^D_2 ) (4π)^D2 (_D 2 − 1 ) ∑ y_∗=0,L ∑ F =V,ch g_F tr ( M^{2(y∗)}_F ) D_{2 −1}

− Γ(1 −^D_2 ) (4π)^D2 (_D 2 − 1 ) ∑ F =U,V,ch g_F ∑ k ( μ^{(k)}_F )_{D−2} + · · · , (3.81)

where g_U = −2, g_V = −1, g_{ch} = 1/2, and μ^2_F (F = U, V, ch) are solutions of (3.80).

The first line of (3.81) is the contributions from the boundary actions, and is rewritten as Ω^{1loop}_{eff} = ∑ y_∗=0,L ∑ F =V,ch g_F 16π^2 tr [ M^{2(y∗)}_F { 2 4 − D − γ + ln(4π) − ln M^{2(y∗)}_F + 2 }]

+O((D − 4)^2) + · · · , (3.82)

where γ is the Euler’s constant, and the matrices M^{2(y∗)}_V and M^{2(y∗)}_{ch} are defined by (3.59) and (3.64), respectively. The divergence will be renormalized by local counterterms in the boundary Lagrangians L^{(y∗)}_{bd} (y_∗ = 0, L).

The summation of the eigenvalues in the second line of (3.81) can be performed by the technique of Refs. [16]-[21]. ∑ k ( μ^{(k)}_F )_{D−2} = ∮ C_F dz 2πi F^′_F (z) F_F (z) z^{D−2} = − D − 2 π sin πD 2 ∫_∞ 0 dλ λ^{D−3} ln F_F (iλ) F^{asp}_F (iλ) = − (D − 2) Γ(1 −^D_2 )Γ(^D_2 ) ∫_∞ 0 dλ λ^{D−3} ln F_F (iλ) F^{asp}_F (iλ)

, (3.83)

where the functions F_F are defined by (3.80), C_F are contours that enclose the zeros of F_F (z), and F^{asp}_F (z) are some analytic functions that satisfy F_F (z) F^{asp}_F (z)

= 1 + O(z^{−1}), (3.84)

for Im z ≫ 1. We can rescale z by a superfield-dependent factor C_{rs} so that F̃^{asp}_F (z) ≡ F^{asp}_F (C_{rs}z) become independent of the superfields. (See (4.14).)

Therefore, Ω^{1loop}_{eff} is expressed as

Ω^{1loop}_{eff} = Ω_0 + Ω_L + ∑ F =U,V,ch g_F C^2_{rs} 8π^2 ∫_∞ 0 dλ λ ln F̃_F (iλ) F̃^{asp}_F (iλ), (3.85)

where F̃_F (z) ≡ F_F (C_{rs}z), and Ω_0 and Ω_L are the contributions from the boundary actions at y = 0 and y = L, which are expressed in (3.82). This is our main result. The explicit forms of F̃_F (z), F̃^{asp}_F (z), and C_{rs} are highly model-dependent, but we can easily find them once a model is specified. We will show their explicit forms in a specific case in the next section. The bulk contribution in (3.85) also contains divergent terms. Such terms originate from one-loop diagrams localized on the boundaries, and should be absorbed into Ω_0 and Ω_L. (See the next section.)

4 Case of flat spacetime

In this section, we consider a case where the spacetime geometry is flat and n_C = 1 as an illustrative example. Namely, the compensator multiplet is neutral for the gauge symmetries, and the generators have the following form,

t̂_I = ( 0 ť_I ) . (4.1)

Notice that ť_I contain the gauge coupling. In this case, from (C.29) and (C.26) in Appendix C, we find

v^{Io} (V_s) = v̄^{Io} + O(χ^2), V^{Io} (V_s) = v̄^{Io} V_s + O(χ^2), (4.2)

where v̄^{Io} ≡

Re T^{Io} s · Re T = − 2Re T^{Io} V̄_s , χ^a ≡ Φ^{a+1}_{even} Φ^1_{even}

. (4.3)

Therefore, we obtain

⟨Ω_v⟩ = −

N (2Re T )

V̄ 3_s + O(χ^2), ⟨Ω^h⟩ = |ϕ^C |^3 + O(χ^2),

t̂_I Φ_{even} = O(χ^2), P_{ch} = ( 0 1_{nH} ) + O(χ^2), (4.4)

where ϕ_C ≡ (Φ^1_{even})^{2/3}.

In the following, we do not see the dependences on χ^a coming from the bulk hypermultiplets, for simplicity. Then (3.76) becomes simple. { ∂^2_{Vs} + r^2_s μ^2_U }~ f_U = 0, { P_V ∂^2_{Vs} + r^2_s μ^2_V }~ f_V = 0, ( r^2_s μ^2_{ch}(P_V )^I_J 0 r^2_s μ^2_{ch}Φ^a_{even}^{NJ}_{3N} ( ∂^2_{Vs} − v̄∂_{Vs} + r^2_s μ^2_{ch} ) δ^a_b ) ( f̃ J_{12} f̃ b_{12} ) = 0, {¯ P_{ch}∂^2_{Vs} + v̄^t∂_{Vs} + r^2_s μ^2_{ch} }~ f_{21} = 0, (4.5)

where v̄ ≡ v̄^{Io}t̂_{Io} and r_s ≡ ⟨ Ω_v Ω_h ⟩_{1/3} = − N^{1/3}(2Re T ) |ϕ_C | V̄_s . (4.6)

Solutions of (4.5) that satisfy the boundary conditions at y = 0 are found to be

f̃_U (V_s; μ_U ) = { r_sμ_U cos (r_sμ_U V_s) B^{(0)−1}_U A^{(0)}_U + sin (r_sμ_U V_s) } N_U , f̃_V (V_s μ_V ) = P_V { r_sμ_V cos (r_sμ_V V_s) B^{(0)−1}_V A^{(0)}_V + sin (r_sμ_V V_s) } N_V , f̃_{ch}(V_s; μ_{ch}) = P_{ch}e^{UV}s { ω_{ch} cos (ω_{ch}V_s) B^{(0)−1}_{ch} A^{(0)}_{ch}

+ sin (ω_{ch}V_s) ( 1 − UB^{(0)−1}_{ch} A^{(0)}_{ch} )} N_{ch}, (4.7) where N_F (F = U, V, ch) are constant vectors, A^{(0)}_F and B^{(0)}_F are defined in (3.72) and

(E.11), and

P_{ch} ≡ 0_{nV} P_{ch} P̄_{ch} , U ≡ 1 2 0_{nV} v̄ −v̄^t ,

ω_{ch} ≡ { r^2_s μ^2_{ch}P_{ch} − U^2 }_{1/2} . (4.8)

Notice that P_V and P_{ch}ω_{ch} commute with B^{(0)−1}_V A^{(0)}_V , and B^{(0)−1}_{ch} A^{(0)}_{ch} , respectively, and

P_{ch}ω_{ch}U = Uω_{ch}, in the present case. The explicit forms of B^{(0)−1}_{ch} A^{(0)}_{ch} and B^{(L)−1}_{ch} A^{(L)}_{ch} are

calculated from (E.11) as

B^{(0)−1}_{ch} A^{(0)}_{ch} = 1 r_sμ_{ch}

0 0 −^{v̄Io}_{ϕ̄3/2C} (1_{nH +1} − P_{ch})

0 −G^{(0)}d̃ 0

0 1_{nH +1} 0 ,

B^{(L)−1}_{ch} A^{(L)}_{ch} = 1 r_sμ_{ch}

0 0 −^{v̄Io}_{ϕ̄3/2C} (1_{nH +1} − P_{ch})

0 G^{(L)}d̃e^{−v̄V̄s} 0 0 e^{−v̄V̄s} 0 . (4.9)

where G^{(y∗)} ≡ ( K̄^{(y∗)}_{bd} μ_{ch} − W^{(y∗)}_{bd} )_{−1} . (4.10)

Using (4.7), we obtain the expressions of Q_F (μ_F ) in (3.79) as

Q_U (μ_U ) = r_sμ_U ( B^{(L)−1}_U A^{(L)}_U − B^{(0)−1}_U A^{(0)}_U ) cos ( r_sμ_UV̄_s ) − ( r^2_s μ^2_U B^{(L)−1}_U A^{(L)}_U B^{(0)−1}_U A^{(0)}_U + 1 ) sin ( r_sμ_UV̄_s ) , Q_V (μ_V ) = P_V { r_sμ_V ( B^{(L)−1}_V A^{(L)}_V − B^{(0)−1}_V A^{(0)}_V ) cos ( r_sμ_V V̄_s ) − ( r^2_s μ^2_V B^{(L)−1}_V A^{(L)}_V B^{(0)−1}_V A^{(0)}_V + 1 ) sin ( r_sμ_V V̄_s )} , Q_{ch}(μ_{ch}) = P_{ch} { B^{(L)−1}_{ch} A^{(L)}_{ch} e^{UV̄s} ω_{ch} cos ( ω_{ch}V̄_s ) − e^{UV̄s} ω_{ch} cos ( ω_{ch}V̄_s ) B^{(0)−1}_{ch} A^{(0)}_{ch}

−r^2_s μ^2_{ch}B^{(L)−1}_{ch} A^{(L)}_{ch} e^{UV̄s} sin ( ω_{ch}V̄_s ) B^{(0)−1}_{ch} A^{(0)}_{ch} − e^{UV̄s} sin ( ω_{ch}V̄_s ) +B^{(L)−1}_{ch} A^{(L)}_{ch} e^{UV̄s} U sin ( ω_{ch}V̄_s ) + e^{UV̄s} U sin ( ω_{ch}V̄_s ) B^{(0)−1}_{ch} A^{(0)}_{ch} } . (4.11)

Thus, F_F (μ_F ) in (3.80) are found to be

F_U (μ_U ) = sin ( N^{1/3}μ_U |ϕ_C | ) { 1 − |ϕ_C |^2 μ^2_U h^{(L)}h^{(0)} − |ϕ_C | μ_U ( 1 h^{(L)} + 1 h^{(0)} ) cot ( N^{1/3}μ_U |ϕ_C | )} , F_V (μ_V ) = sin^{nV −1} ( N^{1/3}μ_V |ϕ_C | ) det [ 1_{nVe} − |ϕ_C |^2 μ^2_V

H^{(L)−1}_V H^{(0)−1}_V − |ϕ_C | μ_V ( H^{(L)−1}_V + H^{(0)−1}_V ) cot ( N^{1/3}μ_V |ϕ_C | )] , F_{ch}(μ_{ch}) = det ( e^{TR2} sin ω_T ) det [ e^{− TR2} sin ω_T − |ϕ_C |^2 μ^2_{ch}

H^{(L)−1}_{ch} e^{TR2} sin ω_T H^{(0)−1}_{ch}

− |ϕ_C |^2 H^{(L)−1}_{ch} N^{1/3}μ^2_{ch} e^{TR2} ( ω_T cos ω_T − T_R 2 sin ω_T )

− ( ω_T cos ω_T + T_R 2 sin ω_T ) e^{− TR2} |ϕ_C |^2 H^{(0)−1}_{ch} N^{1/3}μ^2_{ch} ] , (4.12)

where ( H^{(y∗)}_V )_{Ie} J_e ≡ a^{IeKe} N^{2/3} ( Re f^{(y∗)}_{KeJe} + 2 3μ^2_V

|ϕ_C |^2 h^{(y∗)}_{KeJe} ) , ( H^{(y∗)}_{ch} ) ab ≡ 1 2 ( h̄^{(y∗)}_{ab̄} − |ϕ^C | μ_{ch} P^{(y∗)}_{ab} ) , T_R ≡ −v̄^{Io}ť_{Io}V̄_s = Re T^{Io}ť_{Io} , ω_T ≡ ( N^{2/3}μ^2_{ch} |ϕ_C |^2 − T^2_R 4 )_{1/2} . (4.13)

The arguments of a_{IeJe} and N are (0_{nVe} , 2Re T^{Io} ). The determinants in the expressions of F_V (μ_V ) and F_{ch}(μ_{ch}) are taken over the n_{Ve} -dimensional space spanned by Ṽ^{Ie} and the n_H -dimensional space projected by P_{ch}, respectively. Notice that the s_{Io} -dependences are completely canceled in (4.12) as mentioned in Sec. 3.4.

The contributions of the bulk superfields to Ω^{1loop}_{eff} are calculated from the formula (3.85) with the functions in (4.12). Here we rescale the integral variable μ_F as μ_F → C_{rs}μ_F , where C_{rs} = |ϕ_C | /N^{1/3}. Then the analytic functions F̃^{asp}_F in (3.85) can be chosen as

F̃^{asp}_U (z) = i 2 e^{−iz}, F̃^{asp}_V (z) = ( i 2 e^{−iz} )_{nV −1} , F̃^{asp}_{ch} (z) = ( i 2 e^{−iz} )_{2nH} , (4.14) and the bulk contribution in (3.85) is expressed as

Ω^{1loop}_{eff} = |ϕ_C |^2 N^{2/3} [ (n_V − n_H + 1)Q_1 8π^2

+ Q_2tr ( T^3_R ) + ∫_∞ 0 dλ 8π^2 ∑ F =U,V,ch g_F λ ln G_F (λ) ] + · · · , (4.15) where Q_1 ≡ − ∫_∞ 0 dx x ln(2e^{−x} sinh x) ≃ 0.30, Q_2 ≡ ∫_∞ 0 dx 64π^2 x 2 (√ 1 + x^{−2} − 1 ) , and

G_U (λ) = 1 +

N^{2/3} λ^2h^{(L)}h^{(0)} + N^{1/3} λ ( 1 h^{(L)} + 1 h^{(0)} ) coth λ,

G_V (λ) = det { 1_{nVe} +

N^{2/3} λ^2

Ĥ^{(L)−1}

V Ĥ^{(0)−1}_V + N^{1/3} λ ( Ĥ^{(L)−1} V + Ĥ^{(0)−1}_V ) coth λ } , G_{ch}(λ) = det { 2e^{− TR2} e^{−λ} sinh ω̂_T +

2N^{2/3}

λ^2

Ĥ^{(L)−1} ch e^{TR2} e^{−λ} sinh ω̂_T Ĥ^{(0)−1}_{ch} + 2N^{1/3}

λ^2

Ĥ^{(L)−1} ch e^{TR2} e^{−λ} ( ω̂_T cosh ω̂_T − T_R 2 sinh ω̂_T )

+2e^{−λ} ( ω̂_T cosh ω̂_T + T_R 2 sinh ω̂_T ) e^{− TR2} N^{1/3} λ^2

Ĥ^{(0)−1}_{ch} }

× { det ( 2e^{− TR2} e^{−λ} sinh ω̂_T )}_{−1} . (4.16)

The argument of the norm function N is (0_{nVe} , 2Re T^{Io} ), and ( Ĥ^{(y∗)}_V )_{Ie} J_e ≡ a^{IeKe} ( Re f^{(y∗)}_{KeJe} N^{2/3} − 2 3λ^2 h^{(y∗)}_{KeJe} ) , ( Ĥ^{(y∗)}_{ch} ) ab ≡ 1 2 ( h̄^{(y∗)}_{ab̄} + iN^{1/3} λ P^{(y∗)}_{ab} ) , ω̂_T ≡ ( λ^2 +

T^2_R 4 )_{1/2} . (4.17)

In (4.15), we have used dλλ = dω̂_T ω̂_T , and ∫_∞ 0 dλ λ ln det ( e^{ω̂T −λ} ) = ∫_∞ 0 dλ λtr (ω̂_T − λ) = Q_2tr ( T^3_R ) . (4.18)

As mentioned in Sec. 3.5, Eq.(4.15) contain divergent terms. The constant Q_2 is divergent and will be renormalized by local counterterms. The last term in (4.15) also diverges in the presence of the boundary terms. In order to extract a finite part, we further rewrite it as

Ω^{1loop}_{eff} = |ϕ_C |^2 N^{2/3} ∑ y_∗=0,L ∫_∞ 0 dλ 8π^2 ∑ F =U,V,ch g_F λ ln H^{(y∗)}_F (λ)

+ |ϕ_C |^2 N^{2/3} ∫_∞ 0 dλ 8π^2 ∑ F =U,V,ch g_F λ ln

G_F (λ) H^{(L)}_F (λ)H^{(0)}_F (λ)

+ · · · , (4.19) where

H^{(y∗)}_U (λ) ≡ 1 +

N^{1/3} λh^{(y∗)} , H^{(y∗)}_V (λ) ≡ det ( 1 + N^{1/3} λ H^{(y∗)−1} V ) , (4.20)

H^{(0)}_{ch} (λ) ≡ det ( 1 + N^{1/3} λ^2 ( ω̂_T + T_R 2 ) H^{(0)−1}_{ch} ) , H^{(L)}_{ch} (λ) ≡ det ( 1 + N^{1/3} λ^2

H^{(L)−1}_{ch} e^{TR} ( ω̂_T − T_R 2 )) . Now the second line of (4.19) is finite. Nonlocal effects such as the brane-to-brane mediation effects are contained in this part. We can also see that the divergent part, which is the first line of (4.19), does not depend on the parameters in L^{(0)}_{bd} and those in L^{(L)}_{bd} simultaneously. This indicates that the divergent terms originate from one-loop diagrams localized on the boundaries. Thus they should be combined with Ω_{y∗} (y_∗ = 0, L) as mentioned in Sec. 3.5.

As a result, the one-loop Kähler potential is expressed as

Ω^{1loop}_{eff} (ϕ_C , χ^a, T^{Io} , V^{Ie} )

= Ω_0 + Ω_L + |ϕ_C |^2 N^{2/3} [ (n_V − n_H + 1)Q_1 8π^2 − Q_2 n_H∑

a=1 ( c_{aIo} Re T^{Io}

)_3

+ ∫_∞ 0 dλ 8π^2 ∑ F =U,V,ch g_F λ ln

G_F (λ) H^{(L)}_F (λ)H^{(0)}_F (λ) ] + O(χ̂^2), (4.21)

where n_V − 1 and n_H are the numbers of the physical vector and hypermultiplets, respectively, N = N (0_{nVe} , 2Re T^{Io} ), Q_1 ≃ 0.30, (g_U , g_V , g_{ch}) = (−2, −1,^1_2 ), and χ̂ ≡ exp {_1 2 V^{Ie}ť_{Ie} } χ. Here the generators ť_{Io} are denoted as ť_{Io} = −diag(c_{1Io} , c_{2Io} , · · · , c_{nH Io} ), where c_{aIo} are Z_2-odd gauge couplings corresponding to the bulk masses for the hypermultiplets. The boundary contributions Ω_{y∗} (y_∗ = 0, L) are sum of (3.82) and the first line of (4.19), and are renormalized by local counterterms in the boundary Lagrangians L^{(y∗)}_{bd} . The renormalized value of Q_2 cannot be predicted within the field theory. The last term in (4.21) involves the parameters both in L^{(0)}_{bd} and L^{(L)}_{bd} , and becomes important when one of the boundary actions possesses some symmetries that are not held in the whole system. In such a case, terms prohibited by those symmetries are induced through loop diagrams involving the bulk superfields, and they are finite. The vector superfields V^{Ie} appear only through χ̂, just like in the tree-level effective Lagrangian (C.17). The overall dependence on the moduli through N^{−2/3} represents the volume suppression of the extra dimension, and the nontrivial dependence on them are induced through the gaugings accompanied by the hypermultiplet bulk masses c_{aIo} . The bosonic component expression of ∫ d^4θ Ω^{1loop}_{eff} is shown in Appendix F in the absence of the boundary terms.

5 Summary

We derived one-loop contributions to the Kähler potential in 4D effective theory of 5D SUGRA on S^1/Z_2 with a generic form of the prepotential and arbitrary boundary-localized terms. Our work is regarded as an extension of Refs. [13, 14, 22, 23] to more general cases, and the result is applicable to a wide class of 5D SUGRA models, in which various isometries are gauged by arbitrary number of Z_2-odd vector multiplets (i.e., moduli multiplets). The calculations are performed by means of the N = 1 superfield formalism [10, 30], which is based on the superconformal formulation of 5D SUGRA [25]-[28]. Since the off-shell formulation of SUGRA contains unphysical modes, such as the compensator multiplet, some projection operators appear in the calculations. This makes the procedure somewhat complicated. Especially, due to the projection operator P_V , the ordinary Kaluza-Klein expansion of the vector superfields V^I cannot be performed in a way that the N = 1 superfield structure is preserved [9, 45]. Instead, corresponding procedure becomes possible by changing the coordinate y with V_s defined in (3.65).

The one-loop effective Kähler potential Ω^{1loop}_{eff} is relevant to the brane-to-brane communication of SUSY-breaking effects and the moduli stabilization by the Casimir effect. Our result makes it possible to discuss these issues in much wider class of 5D SUGRA models than ever. Although the explicit forms of F̃_F (z), F̃^{asp}_F (z) (F = U, V, ch), and C_{rs} in our formula (3.85) are highly model-dependent, we can easily find them once a model is specified. As an illustrative example, we provided an explicit expression of Ω^{1loop}_{eff} in the case of 5D flat spacetime. In the case of a warped geometry, the expression becomes more complicated, and may not be expressed in an analytic form except in the Randall- Sundrum spacetime.^{16} Still, we expect that some properties can be extracted by means of a technique used in Ref. [53].

The one-loop Kähler potential is also relevant to gauge symmetry breaking by the Wilson line phase [54]. For example, we can discuss the gauge-Higgs unification scenario at the grand unification scale [55]-[58] in the context of 5D SUGRA after extending our result to non-Abelian gauge groups.

There are several ways to proceed. We plan to discuss the moduli stabilization and the SUSY-breaking mediation in 5D SUGRA models with a generic form of the prepotential

16 As we have pointed out in Ref. [10], we have to require a fine-tuning among the gauge couplings and the vacuum expectation values of the moduli in order to obtain the Randall-Sundrum spacetime when there are more than one moduli.

by making use of our result, and derive useful information for the phenomenological modelbuilding. An extension of our result to higher-dimensional SUGRA is another direction for future works. Notice that an N = 1 superfield description of the action should be exist although such theories do not have a full off-shell formulation. Since our derivation in this paper is systematic, it can easily be extended to higher-dimensional SUGRA once we obtain the N = 1 superfield description.

Acknowledgements

This work was supported in part by Grant-in-Aid for Young Scientists (B) No.22740187 from Japan Society for the Promotion of Science.

A Superconformal transformations

Here we list the 5D superconformal transformation laws expressed in terms of the N = 1 superfields. For the purpose of constructing the action up to linear in the gravitational superfields, it is enough to keep the transformations at the zeroth order in them.

The N = 1 part δ^{(1)}sc is given by

δ^{(1)}_{sc} Φ_{odd} = ( − 1 4 D̄^2L^αD_α − iσ^μ_{αα̇}D̄^{α̇}L^α∂_μ − 1 8 D̄^2D^αL_α ) Φ_{odd},

δ^{(1)}_{sc} Φ_{even} = ( − 1 4 D̄^2L^αD_α − iσ^μ_{αα̇}D̄^{α̇}L^α∂_μ − 1 8 D̄^2D^αL_α ) Φ_{even},

δ^{(1)}_{sc} V = ( − 1 4 D̄^2L^αD_α − i 2 σ^μ_{αα̇}D̄^{α̇}L^α∂_μ + h.c. ) V, δ^{(1)}_{sc} Σ = ( − 1 4 D̄^2L^αD_α − iσ^μ_{αα̇}D̄^{α̇}L^α∂_μ ) Σ, δ^{(1)}_{sc} U^μ = 1 2 σ^μ_{αα̇} (¯ D^{α̇}L^α − D^αL̄^{α̇} ) , δ^{(1)}_{sc} Ψ^α = −∂_yL^α, δ^{(1)}_{sc} U^y = 0,

δ^{(1)}_{sc} V_E = ( − 1 4 D̄^2L^αD_α − i 2 σ^μ_{αα̇}D̄^{α̇}L^α∂_μ + 1 24 D̄^2D^αL_α + h.c. ) V_E , (A.1)

where a complex spinor superfield L^α is the transformation parameter. The remaining transformations δ^{(2)}sc are given by

δ^{(2)}_{sc} Φ_{odd} = Y ⟨V_E ⟩ ∂_yΦ_{odd} − i 4 D̄^2 { Ñ(e^{−V} )^tΦ̄_{even} } , δ^{(2)}_{sc} Φ_{even} = Y ⟨V_E ⟩ ∂_yΦ_{even} + i 4 D̄^2 { Ñe^V Φ̄_{odd} } , δ^{(2)}_{sc} e^V = Y + Ȳ 2⟨V_E⟩ ∂_ye^V + iÑ ⟨V_E⟩ ( Σe^V − e^V Σ^† ) , δ^{(2)}_{sc} Σ = ∂_y ( Y Σ ⟨V_E⟩ ) − i⟨V_E ⟩ 8 D̄^2 ( D^αÑD_αe^V e^{−V} ) , δ^{(2)}_{sc} U^μ = 0, δ^{(2)}_{sc} V_E = 1 2 ∂_y ( Y + Ȳ ) , δ^{(2)}_{sc} Ψ^α = i⟨V_E ⟩ 2 D^αÑ, δ^{(2)}_{sc} U^y = N ⟨V_E⟩ , (A.2)

where a chiral and real superfields Y and N are the transformation parameters, and Ñ ≡ N − i 2 ( Y − Ȳ ) . (A.3)

The components of L_α,

ξ^μ ≡ − Re ( iσ^μ_{αα̇}D̄^{α̇}L^α )| 0 , ϵ_α ≡ − 1 4 D̄^2L_α|_0, λ_{μν} ≡ − 1 2 Re { (σ_{μν} )^α_β D_αD̄^2L^β }| |_0 , φD ≡ Re ( 1 4 D^αD̄^2L_α )| | |_0 ,

ϑ_A ≡ Im ( − 1 6 D^αD̄^2L_α )| | |_0 , η^α ≡ − 1 32 D^2D̄^2L_α|_0, (A.4)

where the symbol |_0 denotes the lowest component of the superfield, are identified with the transformation parameters for the translation P , the supersymmetry Q, the Lorentz transformation M, the dilatation D, the R symmetry U(1)_A and the conformal supersymmetry S, respectively. The components of Y and N are identified with the other transformation parameters that are Z_2-odd [30].

In order to determine the kinetic terms for the gravitational superfields L^{EW}_{kin} , we need to extend the above transformations including linear order terms in the gravitational superfields. Since L^{EW}_{kin} is independent of the quantum fluctuation of the matter superfields, it is enough to focus on the background parts of the matter superfields in the extended parts of δ^{(1)}sc and δ^{(2)}sc . We find the U^μ-dependent part in the transformations as follows.

The δ^{(1)}sc does not receive any corrections at this order, but δ^{(2)}sc is modified as

δ^{(2)}_{sc} Φ_{odd} = − i 4 D̄^2 {( Ñ 3 Δ_μU^μ − Y ∂_μU^μ ) ⟨ (e^{−V} )^tΦ̄_{even} ⟩ } + · · · ,

δ^{(2)}_{sc} Φ_{even} = i 4 D̄^2 {( Ñ 3 Δ_μU^μ − Y ∂_μU^μ ) ⟨ e^V Φ̄_{odd} ⟩ } + · · · , δ^{(2)}_{sc} V^I = −i∂_μU^μ Y ⟨Σ^I ⟩ − Ȳ ⟨Σ̄^I ⟩ ⟨V_E ⟩ + · · · , (A.5)

where the ellipses denote terms shown in (A.2). The other transformations are unchanged up to this order. Here we have considered in the Abelian case, for simplicity. Requiring the invariance of the action under this modified transformation, we can determine L^{EW}_{kin} as (2.15).

B Projectors in superspace

The chiral and anti-chiral projection operators are defined as [40]

P_+ ≡ − D̄2D2 16□_4 , P_− ≡ − D^2D̄^2 16□_4

. (B.1)

We can divide a vector superfield V into a chiral and a transverse parts by the following projectors.

P_C ≡ P_+ + P_−, P_T ≡

D^αD̄^2D_α 8□_4

. (B.2) These satisfy

P_T + P_C = 1, P^2_T = P_T , P^2_C = P_C , P_T P_C = P_C P_T = 0. (B.3)

Similarly, the gravitational superfield U^μ can be divided by the following superspin projectors as (3.9) [23, 49, 50].

Π^{μν}_0 ≡ Π^{μν}_L P_C , Π^{μν}_{1/2} ≡ 1 3 Q^{μν} + Π^{μν}_L P_T + 1 3 Π^{μν}_L P_C , Π^{μν}_1 ≡ Π^{μν}_T P_C , Π^{μν}_{3/2} ≡ − 1 3 Q^{μν} + η^{μν} P_T − Π^{μν}_L + 2 3 Π^{μν}_L P_C , (B.4)

where Q^{μν} ≡ 1 16 σ^μ_{αα̇}σ^ν_{ββ̇} [D^α, D̄^{α̇}][D^β, D̄^{β̇}] □_4 , Π^{μν}_T ≡ η^{μν} − ∂^μ∂^ν □_4 , Π^{μν}_L ≡ ∂^μ∂^ν □_4

. (B.5)

These projectors satisfy Π^{μν}_0 + Π^{μν}_{1/2} + Π^{μν}_1 + Π^{μν}_{3/2} = η^{μν} , Π^{μρ}_s Π^ν_{rρ} = δ_{rs}Π^{μν}_s , (B.6) where r, s = 0, 1/2, 1, 3/2, and ∂_μΠ^{μν}_0 = ∂^ν P_C , ∂_μΠ^{μν}_{1/2} = ∂^ν P_T , ∂_μΠ^{μν}_1 = ∂_μΠ^{μν}_{3/2} = 0. (B.7) Furthermore, Q^{μν} satisfies Q^{μρ}Q^ν_ρ = Q^{μν} (−4P_C + 3) , Q^{μν} P_C = P_C Q^{μν} = −Π^{μν}_L P_C = −Π^{μν}_0 , ∂_μQ^{μν} P_T = ∂_μP_T Q^{μν} . (B.8) The supertrace integrand Istr in (3.8) satisfies the following relations.

Istr 1 = 0, Istr (¯ D^2D^2 ) = Istr ( D^2D̄^2 ) = Istr ( D^αD̄^2D_α ) = 16, (B.9) and thus,

Istr P_± = − 1 □_4

, Istr P_T = 2 □_4

, Istr Q^{μν} = tr ( 2 □_4 η^{μν} ) = 8 □_4 , Istr Π^{μν}_0 = − 2 □_4

, Istr Π^{μν}_{1/2} = 4 □_4

, Istr Π^{μν}_1 = − 6 □_4

, Istr Π^{μν}_{3/2} = 4 □_4

. (B.10)

C Tree-level effective action

In this section, we briefly review the derivation of the 4D effective action at tree level. We have developed a systematic method to derive it in Ref. [45]. Explicit calculations in the flat and the warped spacetimes are performed in Refs. [9, 10].

The basic strategy is as follows. First, we drop the kinetic terms for Z_2-odd superfields because they do not have zero-modes that are dynamical below the compactification scale. Then the Z_2-odd superfields play a role of Lagrange multipliers, and their equations of motion extract zero-modes from the Z_2-even superfields.

Since we are interested in the 4D effective action for the matter superfields, we neglect the gravitational superfields in this section. Namely, the 5D Lagrangian (2.24) reduces to L = − ∫ d^4θ 3N^{1/3}(V) { Φ^†_{odd}d̃(e^V )^tΦ_{odd} + Φ^†_{even}d̃e^{−V} Φ_{even} }_{2/3}

+ [∫ d^2θ { 2Φ^t_{odd}d̃ (∂_y − Σ) Φ_{even} + W_v } + h.c. ] + 2 ∑ y_∗=0,L L^{(y∗)}_{bd} δ(y − y_∗), (C.1)

where we have performed the partial integral.

C.1 Gauge kinetic functions and superpotential

First, we divide V into the Z_2-odd part V_o and the Z_2-even part V_e as

e^V ≡ e^{Ve/2}e^{Vo} e^{Ve/2}. (C.2)

Before dropping the kinetic terms for the Z_2-odd superfields, we eliminate Σ from the bulk action by means of the supergauge transformation (2.7) with the transformation parameter,

e^{−Λ(y)} = exp {−Λ_Σ(y)} ≡ P exp {∫_y 0 dy^′ Σ(y^′) } , (C.3)

where P denotes the path-ordering operator. Namely, this is a solution to ∂_ye^{−Λ} = Σe^{−Λ}. Although the Z_2-odd superfields Σ^{Ie} are completely gauged away, the zero-modes of the Z_2-even superfields Σ^{Io} remain in the theory as we will explain below. We define 4D superfields T and S as

e^S e^T ≡ lim_{y→L} exp {−Λ_Σ(y)} = P exp {∫_L 0 dy Σ(y) } , T = ∑ I_o

T^{Io}t̂_{Io} , S = ∑ I_e

S^{Ie}t̂_{Ie} , (C.4)

where t̂_I ≡ 2igt_I are hermitian generators, and the limits are taken from the bulk region (0 < y < L). Then, the gauge-transformed vector superfields have the following boundary conditions.

lim_{y→0} e^V = ( e^{V ′e} ) y=0 , lim_{y→L} e^V = e^{−T} e^{−S} ( e^{V ′e} ) y=L e^{−S†} e^{−T †} . (C.5) where V^′_e and V^′_o denote the vector superfields before the gauge transformation by (C.3).

Since V_e corresponds to the gauge superfield for the 4D unbroken gauge group, it should vanish in N^{1/3}(V) in (C.1) because there is no corresponding term in 4D gauge theories. This implies that ∂_yV_e = 0. (C.6) Then, N (V) reduces to N (V) = N ( e^{Vo} ∂_ye^{−Vo} ) , (C.7) and the boundary conditions for V_o in (C.5) becomes

V_o|_{y=0} = 0, lim_{y→L} V_o = V̄_o ≡ −T − T̄^† + 1 2 [ V_e, T − T^† ] + · · · , (C.8) where V̄_o is defined so that e^T e^{Ve} e^{V̄o} e^{Ve} e^{T †} belongs to the unbroken gauge group. Notice that V_o is discontinuous at y = L since it is Z_2-odd. This discontinuity stems from the discontinuous gauge transformation (C.3). (See (C.12).)

Now we impose constraints D_αV^{Io} = 0 to drop the kinetic terms for V^{Io} . To illustrate the procedure of deriving the gauge kinetic functions in (C.11), we consider a case that the gauge group is Abelian. Then, since Σ has been gauged away, W_v becomes

W_v = c^3 16g^3 tr { 1 12 D̄^2 (∂_yV_oD^αV_e) W_{eα} } − c^3 48g^3

∂_ytr { Λ_ΣW^2_e }

= c^3 48g^3

∂_ytr { 1 4 D̄^2 (V_oD^αV_e) W_{eα} − Λ_ΣW^2_e } , (C.9)

where we have used (C.6) at the second equality, and

W_{eα} = 1 4 D̄^2 (e^Ve D_αe^{−V}e ) = −1 4 D̄^2D_αV_e. (C.10)

We have also used that tr ({ t̂_{Io} , t̂_{Je} } t̂_{Ke} ) = 0. (See the footnote 11.) The last term in the first line of (C.9) is induced by the supergauge transformation with Λ_Σ. Thus, ∫_L 0 dy {∫ d^2θ W_v + h.c. } = c^3 48g^3 ∫ d^4θ [ tr {( −2V_o − Λ_Σ − Λ^†_Σ ) D^αV_eW_{eα} }]_{L−ϵ} 0 = c^3 16g^3 ∫ d^4θ tr {( T + T^† ) D^αV_eW_{eα} }

= c^3 16g^3 ∫ d^2θ tr ( T W^2_e ) + h.c.. (C.11)

We have performed the partial integrals, used the relations d^2θ̄ = −^1_4D̄^2, D^αW_{eα} = D̄_{α̇}W̄^{α̇}_e , tr(t̂_{Ie}t̂_{Je}t̂_{Ke} ) = 0, and

lim_{y→0} Λ_Σ = −S, lim_{y→0} V_o = 0,

lim_{y→L} Λ_Σ = −T − S, lim_{y→L} V_o = −T − T^†. (C.12)

The expression (C.11) is also valid in the non-Abelian case. In fact, it is invariant under the unbroken 4D gauge transformation,^{17}

T → e^{Λ0} T e^{−Λ0} , e^{Ve} → e^{Λ0} e^{Ve} e^{Λ†0} , (C.13)

where Λ_0 = ∑ I_e Λ

I_e

0 t̂_{Ie} is y-independent.

17 This gauge transformation preserves the gauge in which Σ = 0.

Next we drop the kinetic terms for Φ_{odd} in the first line of (C.1). Then, from the equation of motion for Φ_{odd}, we obtain

∂_yΦ_{even} = 0, (C.14)

which means that Φ_{even} is y-independent for 0 ≤ y < L.

Recall that the gauge transformation parameter e^{ΛΣ} is discontinuous at y = L,

e^{ΛΣ} | |_{y=L} = e^{−S} , lim_{y→L} e^ΛΣ = e^{−T} e^{−S} , (C.15)

since the Z_2-odd generators t̂_{Io} vanish there.^{18} Hence, the boundary values of Φ_{even} and e^{−Ve} that appear in L^{(L)}_{bd} are related to their bulk values as

Φ_{even}|_{y=L} = e^T Φ_{even},

V_e|_{y=L} = V^{(L)}_e ≡ ln ( e^T e^{Ve/2}e^{V̄o} e^{Ve/2}e^{T †} ) = V_e − 1 2 [ T, T^† ] + · · · , (C.16)

where Φ_{even} and V_e in the left-hand side denote the values in the bulk (0 < y < L).

Therefore, we obtain the expression of the 4D effective Lagrangian,

L_{eff} = ∫_L 0 dy L = − ∫ d^4θ ∫_L 0 dy 3N^{1/3} ( e^{Vo} ∂_ye^{−Vo} ) (^ Φ^†_{even}d̃e^{−Vo}Φ̂_{even} )_{2/3}

+ [∫ d^2θ c^3 16g^3 tr ( T W^2_e ) + h.c. ]

+L^{(0)}_{bd} ( e^{−Ve} , Φ_{even} ) + L^{(L)}_{bd} ( e^{−V (L)e} , e^T Φ_{even} ) , (C.17)

where Φ̂_{even} ≡ e^{Ve/2}Φ_{even} is independent of y. From this expression, we can read off the gauge kinetic functions and the superpotential in the effective theory.

C.2 Kähler potential

In (C.17), the only y-dependent superfield is V_o. Since we have dropped its kinetic term, we can integrate it out by using its equation of motion.

In the following derivation, we focus on a subset of { V^{Io}t̂_{Io} } , in which every generator commutes with each other. We also consider a single compensator case (n_C = 1), and the generators have the following form.

t̂_{Io} = ( −3k_{Io} −3k_{Io} 1_{nH} + ť_{Io} ) , (C.18)

18 Note that t̂_{Io} include the Z_2-odd gauge couplings.

where ť_{Io} are n_H × n_H matrices. Then the effective Kähler potential Ω_{eff} ≡ −3e^{−Keff /3} at tree level is rewritten as

Ω^{tree}_{eff} = − ∫_L 0 dy 3 |ϕ_C |^2 N̂^{1/3}(−∂_yV_o)e^{2k·V} ( 1 − χ^†e^{−V̌o} χ )_{2/3} , (C.19)

where k · V ≡ ∑ I_o kIo V I_o , and

ϕ_C ≡ ( Φ̂^1_{even} )_{2/3} , χ^a ≡ Φ̂a+1_{even} Φ̂1_{even} ,

V̌_o ≡ ∑ I_o

V^{Io}ť_{Io} . (C.20)

Then, from the equation of motion for V^{Io} , we obtain { ∂_y ( N_{Jo} N^{2/3} ) + 6k_{Jo} N^{1/3} +

2N^{1/3}χ^†e^{−V̌o}ť_{Jo} χ 1 − χ^†e^{−V̌o} χ } (P_V )^{Jo}_{Io} = 0, (C.21)

the arguments of the norm function and its derivative are (0_{nVe} − ∂_yV_o), and the projection operator (P_V )^{Jo}_{Io} is defined by (3.21). The presence of (P_V )^{Jo}_{Io} indicates that the number of independent equations is less than that of V^{Io} . Thus we cannot solve V^{Io} as functions of y. Hence we need another method to integrate them out.

Let us define V_s ≡ s_{Io} V^{Io} , v^{Io} ≡ ∂_yV^{Io} ∂_yV_s , (C.22) where s_{Io} are arbitrarily chosen constants, and V_s satisfies the boundary conditions,

lim_{y→0} V_s = 0, lim_{y→L} V_s = V̄_s ≡ −2s_{Io} Re T^{Io} . (C.23)

Then (C.21) is rewritten as { ∂_yv^{Jo} a_{JoKo} (v) + ( 3k_{Ko} + χ^†e^{−V̌o}ť_{Ko} χ 1 − χ^†e^{−V̌o} χ ) ∂_yV_s } (P_V )^{Ko}_{Io} (v) = 0. (C.24)

From (C.22), v^{Io} satisfies s_{Io} v^{Io} = 1, and thus, s_{Io} (dv^{Io} /dV_s) = 0. Therefore, (C.24) is rewritten as dv^{Io} dV_s = G^{IoJo} (v) ( 3k_{Jo} + χ^†e^{−V̌o}ť_{Jo} χ 1 − χ^†e^{−V̌o} χ ) , (C.25)

where G^{IoJo} = − ( δ^{Io}_{Ko} − v^{Io} s_{Ko} ) a^{KoJo} . Notice that these equations are solvable in contrast to (C.21). Once v^{Io} (V_s) are obtained, V^{Io} are also expressed as functions of V_s through

V^{Io} = ∫_y 0 dy^′ ∂_yV^{Io} = ∫_y 0 dy^′ v^{Io} ∂_yV_s = ∫_{Vs} 0 dV^′_s v^{Io} (V^′_s ). (C.26)

In the limit of y → L, this becomes

− 2Re T^{Io} = ∫¯_{Vs} 0 dV_s v^{Io} (V_s), (C.27)

which determines the integral constants for solutions of (C.25). Therefore, Ω^{tree}_{eff} can be calculated as an integral for V_s, instead of y.

Ω^{tree}_{eff} = ∫¯_{Vs} 0 dV_s 3 |ϕ_C |^2 N^{1/3}(v(V_s))e^{2k·V (Vs)} ( 1 − χ^†e^{−V̌o(Vs)}χ )_{2/3} . (C.28)

We can solve (C.25) order by order in the matter chiral superfields χ^a. Here we consider a case of k_{Io} = 0, which means that the background 5D spacetime is flat.^{19} In this case, we find that

v^{Io} (V_s) = v̄^{Io} − χ^†G^{IoJo} (v̄)ˇ̄v^{−1} ( e^{−ˇ̄vVs} − (Re Ť )^{−1}(e^{2Re Ť} − 1) 2 ) ť_{Jo} χ + O(χ^4), (C.29)

where v̄^{Io} ≡

Re T^{Io} s · Re T , ˇ̄v ≡ ∑ I_o

v̄^{Io}ť_{Io} , Re Ť ≡ ∑ I_o

(Re T^{Io} )ť_{Io} . (C.30)

Since ť_{Io} commute with each other, they can be diagonalized simultaneously.

Uť_{Io} U^{−1} = −diag(c_{1Io} , c_{2Io} , · · · , c_{nH Io} ), χ̂ ≡ Uχ. (C.31)

After some calculations, we obtain [9, 10]

Ω^{tree}_{eff} = |ϕ_C |^2 N^{1/3} { −3 + ∑ a 2Y (c_a · Re T ) |χ̂^a|^2 + ∑ a,b Ω^{(4)}_{ab} |χ̂^a|^2 | |χ̂^b | |^2 + O(|χ|^6) } , (C.32) where Y (x) ≡^{1−e−2x}_{2x} , and^{20}

Ω^{(4)}_{ab} ≡ −

(c_a · P_V a^{−1} · c_b) {Y ((c_a + c_b) · Re T ) − Y (c_a · Re T )Y (c_b · Re T )} (c_a · Re T )(c_b · Re T ) + Y ((c_a + c_b) · Re T ) 3 . (C.33)

The arguments of N and P_V are (0_{nVe} , 2Re T^{Io} ). Notice that the s_{Io} -dependences are caancelled in the final result (C.32).

19 We calculated Ω^{tree}_{eff} in the case of k_{Io} ≠ 0 in Ref. [10].

20 The definitions of the moduli T^{Io} and the gauge couplings c_a (a = 1, · · · , n_H ) are different from those of Ref. [9, 10] by a factor 2.

D Quadratic terms for fluctuation superfields

Here we show the detailed derivation of the quadratic terms for the fluctuation superfields (3.19).

D.1 Gravitational sector

Notice that Ψ_α appears in the action only through D̄_{α̇}Ψ_α and its derivatives. Thus we define the following two real superfields,

V^μ_+ ≡ i 2 σ^μ_{αα̇} (¯ D^{α̇}Ψ^α + D^αΨ̄^{α̇} ) , V^μ_− ≡ 1 2 σ^μ_{αα̇} (¯ D^{α̇}Ψ^α − D^αΨ̄^{α̇} ) , (D.1)

to describe the degree of freedom for Ψ_α. Since

E_2 = −U_μ□_4 ( Π^{μν}_{3/2} − 2 3 Π^{μν}_0 ) U_ν , (D.2)

up to total derivatives, we can expand the integrand in (2.24) as ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ E_2 − ⟨ Ω^{−1/3}_v Ω^{4/3}_h ⟩ ( C^μC_μ + D̄^{α̇}Ψ^αD_αΨ̄_{α̇} ) − 3 ( 1 + Δ_μU^μ 3 ) Ω^{1/3}_v Ω^{2/3}_h = − ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ { U^μ_{3/2} (□_4 + D_U ) U_{3/2μ} − 2 3 U^μ_0 □_4U_{0μ} }

− ⟨ Ω^{−1/3}_v Ω^{4/3}_h ⟩ ( ∂_yŪ^μ∂_yŪ_μ + 2∂_yŪ^μV_{−μ} + 1 2 V^μ_− V_{−μ} − 1 2 V^μ_+ V_{+μ} )

− ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ { 2iU^μ∂_μ ( T + Φ̃_C − T̄ − ¯Φ̃_C ) + 3 2 (V^μ_+ ∂_μ − V^μ_− Δ_μ) V_T

−3∂_yU^μΔ_μV_T + U^μΔ_μ ( Ṽ_v + Ṽ_h ) + · · · } , (D.3)

where we have performed the partial integrals, and T , V_T , Ṽ_v and Ṽ_h are defined in (3.12).

Since V^μ_± do not have kinetic terms, they are integrated out as

V^μ_+ = ⟨ 3Ω^{2/3}v 2Ω^{2/3}_h ⟩ ∂^μV_T , V^μ_− = −2∂_yŪ^μ + ⟨ 3Ω^{2/3}v 2Ω^{2/3}_h ⟩ Δ^μV_T . (D.4)

After eliminating V^μ_± , the 5D Lagrangian becomes L = ∫ d^4θ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ [ −U^μ_{3/2} (□_4 + D_U ) U_{3/2μ} + 2 3 U^μ_0 □_4U_{0μ} + ⟨ Ω^{4/3}_h Ω^{1/3}v ⟩ ∂_yŪ^μ∂_yŪ_μ −2iU^μ_0 ∂_μ ( T + Φ̃_C − T̄ − ¯Φ̃_C ) − Ū^μΔ_μ ( Ṽ_v + Ṽ_h )]

+ ∫ d^4θ

9 ⟨Ω_v⟩ 8 V_T (Δ^μΔ_μ + □_4) V_T + · · · . (D.5)

Adding the gauge-fixing term (3.10), the cross terms between U_μ and the other superfields are canceled, and we obtain (3.13).

D.2 Matter sector

Since we have moved to the gauge where Σ = 0 by the supergauge transformation for the background superfields, W_v in (2.12) is rewritten in terms of the gauge-transformed superfields as

W_v = c^3 16g^3 tr { Σ̃W̃^2 − 1 12 D̄^2 ( V ∂_yD^αṼ − ∂_yV D^αṼ ) W̃_α } − c^3 48g^3

∂_ytr ( Λ_ΣW̃^2 ) , (D.6)

where Λ_Σ ≡ − ∫_y 0 dy^′ Σ(y^′). (D.7)

Note that V^{Io} and Λ^{Io}_Σ have nontrivial boundary conditions at y = L (see (C.12)). The quadratic terms for Ṽ are read off as ∫ d^2θ W_v + h.c. = − ∫ d^4θ c^3 16g^3 tr { 1 12 ( V ∂_yD^αṼ − ∂_yV D^αṼ ) D̄^2D_αṼ + h.c. }

− ∫ d^4θ c^3 192g^3

∂_ytr ( Λ_ΣD^αṼ D̄^2D_αṼ + h.c. ) + · · · = − ∫ d^4θ c^3 16g^3 tr [ 1 4 ∂_yV Ṽ D^αD̄^2D_αṼ − 1 12 ∂_y {( V − Λ_Σ − Λ^†_Σ ) Ṽ D^αD̄^2D_αṼ }] + · · · = − ∫ d^4θ c^3 8g^3 [ tr ( ∂_yV Ṽ □_4P_T Ṽ )] + · · · = − ∫ d^4θ N_{IJ} (⟨V⟩) 2 Ṽ^I □_4P_T Ṽ^J + · · · , (D.8)

where we have dropped total derivatives, and used (C.12). Combining this with the last term in (3.13), we find the kinetic terms for Ṽ as (3.15).

Next we consider kinetic terms for the chiral superfields. We can expand Ω^{1/3}v Ω^{2/3}_h as

Ω^{1/3}_v Ω^{2/3}_h = ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ [N_{IJ} 6N { ∂_yṼ^I ∂_yṼ^J − 2 ( Σ̃ + ¯Σ̃ )_I ∂_yṼ^J + ( Σ̃ + ¯Σ̃ )_I ( Σ̃ + ¯Σ̃ )_J }

− ( Ṽ_v + T + T̄

)_2 + ⟨ ∂_I ∂_J Ω_h 3Ω_h ⟩ Ṽ^IṼ^J + 2 3 Ṽ^I ( Υ^†_IΦ̃_{even} + h.c. )

+ 2 3 ⟨Ω_h⟩ ( Φ̃_{odd}d̃ (e^V )^t Φ̃_{odd} + Φ̃_{even}d̃e^{−V} Φ̃_{even} ) − 1 4 ( Ṽ_h + Φ̃_C + ¯Φ̃_C

)_2

+ ( Ṽ_v + T + T̄ ) ( Ṽ_h + Φ̃_C + ¯Φ̃_C )] + · · · . (D.9)

Thus the cross terms between Ṽ and the chiral superfields are

L_{cross} = ∫ d^4θ Ṽ^I ( Ξ_I + Ξ̄_I ) , (D.10)

where

Ξ_I ≡ ∂_y { 2 ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ (a · P_V )_{IJ}Σ̃^J } − 2 3 ⟨ Ω_h Ω_v ⟩_{2/3} Υ^†_I N_JΣ̃^J −∂_y ( 2 3 ⟨ Ω_h Ω_v ⟩_{2/3} N_I Υ^†Φ̃_{even} ) − 2 ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ Υ^†_I ( 1 − ΦΥ^† 3 ) Φ̃_{even}. (D.11)

Adding the gauge-fixing term (3.17), these cross terms are canceled, and we obtain

L + L^{sg}_{gf} = ∫ d^4θ Ṽ^I [ ⟨Ω_v⟩ a_{IJ} □_4 ( P_T + 1 ξ_{sg} P_C ) Ṽ^J − ∂_y {⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ (a · P_V )_{IJ} ∂_yṼ^J }

−∂_y {⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ N_I 3N Υ^†_J ΦṼ^J } + ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ N_J 3N Υ^†_I Φ∂_yṼ^J −3 ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ (⟨ ∂_I ∂_J Ω_h 3Ω_h ⟩ − Υ^†_I ΦΦ^†Υ_J 9 ) Ṽ^J ]

+ ∫ d^4θ ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ [ 2(a · P_V )_{IJ}Σ̃^I ¯Σ̃^J − 2 ⟨Ω_h⟩

Φ̃^†_{odd}d̃(e^V )^tΦ̃_{odd}

−Φ̃^†_{even} ( 2d̃e^{−V} ⟨Ω_h⟩ − 2 3 ΥΥ^† ) Φ̃_{even} − ( 2N_I 3N Υ^† ¯Σ̃^IΦ̃_{even} + h.c. )] + O(ξ_{sg}) + [∫ d^2θ ( Φ̃^t_{odd}d̃∂_yΦ̃_{even} − Φ̃^t_{even}d̃∂_yΦ̃_{odd} − 2Φ̃^t_{odd}d̃Σ̃Φ ) + h.c. ] + · · · . (D.12)

From (3.13), (D.8) and (D.12), the quadratic terms for the fluctuation superfields in the bulk Lagrangian are summarized as (3.19).

E Boundary conditions for bulk fluctuation modes

Here we derive the boundary conditions for the fluctuation modes of the bulk superfields, which are determined by the orbifold parities and the boundary actions.

First, let us consider the boundary conditions of U^μ and Ṽ^I . Since we have chosen the gauge ξ_{sc} = ξ_{sg} = ζ^{(y∗)}sc = ζ^{(y∗)}sg = 0, only the transverse modes of U^μ and Ṽ^I (i.e., U^μ_{3/2} and Ṽ I_T ≡ P_T Ṽ I ) can propagate.21 From (3.19) and (3.23), the equations of motion for them

21 In fact, U^μ_{3/2} and Ṽ^I_T are gauge-invariant under δ^{(1)}_{sc} and δ_{sg}, respectively.

are { ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ ( −p^2 + D_U ) − 2 ∑ y_∗=0,L δ(y − y_∗) |ϕ_C |^2 h^{(y∗)}p^2 } U^μ_{3/2} = 0, ⟨Ω_v⟩ a_{IK} { −δ^K_J p^2 + (D_V )^K_J }~ V^J_T −2 ∑ y_∗=0,L δ(y − y_∗) ( Re f^{(y∗)}_{IeJe} p^2 + 3 2 |ϕ_C |^2 h^{(y∗)}_{IeJe} ) Ṽ^Je_T = 0. (E.1)

By integrating these over infinitesimal intervals [y_∗ − ϵ, y_∗ + ϵ] (y_∗ = 0, L), we obtain ⟨ Ω^{−1/3}_v Ω^{4/3}_h ⟩ ∂_yU^μ_{3/2} | |_{y=y∗+ηy∗ ϵ} + ηy_∗ |ϕ_C |^2 h^{(y∗)}p^2U^μ_{3/2} | |_{y=y∗} = 0, ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ a_{IeJe} ∂_yṼ^{Je}_T | | |_{y=y∗+ηy∗ ϵ} + ηy_∗ ( Re f^{(y∗)}_{IeJe} p^2 + 3 2 |ϕ_C |^2 h^{(y∗)}_{IeJe} ) Ṽ^Je_T | | | |_{y=y∗} = 0, Ṽ^Io_T | | y=y_∗+η_{y∗} ϵ = 0, (E.2)

where y_∗ = 0, L, η_0 = 1 and η_L = −1, and we have used that

N_{Ie} = 0, (a · P_V )_{IeJe} = a_{IeJe} , (a · P_V )_{IeJo} = 0, (E.3)

which follow from the fact that V^{Ie} are independent of y. (See Appendix C.)

Next we derive the boundary conditions for the chiral superfields. Since ϕ̃_C and some of χ̃^a are expressed in terms of Φ̃_{even} as ( ϕ̃_C χ̃^a ) = (_2

3 ϕ^{−1/2}_C 0 −χ^a/ϕ^{3/2}_C 1/ϕ^{3/2}_C ) Φ̃_{even} + O(Φ̃^2_{even}), (E.4)

the boundary Lagrangians (3.23) are rewritten as

L^{(y∗)}_{bd} = ∫ d^4θ 2Φ̃^†_{even}K^{(y∗)}_{bd} Φ̃_{even} + [∫ d^2θ Φ̃^t_{even}W^{(y∗)}_{bd} Φ̃_{even} + h.c. ] + · · · , (E.5)

where

K^{(y∗)}_{bd} ≡ 1 2 |ϕ_C | ( h^{(y∗)}_{cd̄} χ^cχ̄^d −^2_3 ( h^{(y∗)}c χ^c + h^{(y∗)}_{c̄} χ̄^c ) +^4_9 h^{(y∗)} −h^{(y∗)}_{c̄b} χ̄^c −^2_3 h^{(y∗)}_b −h^{(y∗)}_{āc} χ^c −^2_3 h^{(y∗)}_ā h^{(y∗)}_{ab̄} ) ,

W^{(y∗)}_{bd} ≡ 1 2 ( P^{(y∗)}_{cd} χ^cχ^d − 4P^{(y∗)}c χ^c +^8_3 P^{(y∗)} −P^{(y∗)}_{cb} χ^c + 2P^{(y∗)}_b −P^{(y∗)}ac χ^c + 2P^{(y∗)}a P^{(y∗)}_{ab} ) . (E.6)

Thus the equations of motion for the chiral superfields are read off from (3.19) and (E.5) as − 1 4 KD^2φ + W̄ φ̄ + ∑ y_∗=0,L { − 1 4 K^{(y∗)}_{bd} D^2Φ̃_{even} + W̄^{(y∗)}_{bd} ¯Φ̃_{even} } · 2δ(y − y_∗) = 0. (E.7)

By integrating this over [y_∗ − ϵ, y_∗ + ϵ], we obtain

− η_{y∗}d̃¯Φ̃_{odd} | | |_{y=y∗+ηy∗ ϵ} + { − 1 4 K^{(y∗)}_{bd} D^2Φ̃_{even} + W̄^{(y∗)}_{bd} ¯Φ̃_{even} }| | |_{y=y∗} = 0. (E.8)

Multiplying (E.7) by K^{−1} from the left and taking limits y → y_∗ from the fundamental region 0 < y < L, we also obtain

− 1 4 D^2Σ̃^I −

Φ^†d̃ ( a^{IJ}t̂_J − ⟨ V^I ⟩ ∂_y ) ⟨ Ω^{1/3}v Ω^{2/3}_h

⟩ ¯Φ̃_{odd} y=y_∗+η_{y∗} ϵ = 0, { − 1 4 D^2Φ̃_{odd} + ⟨ Ω_h Ω_v ⟩_{1/3} (e^{−V} )^t ( t̂^t_IΦ̄¯Σ̃^I − ∂_y ¯Φ̃_{even} ) } y=y_∗+η_{y∗} ϵ = 0. (E.9)

If we denote an eigenvalue of the differential operator K^{−1}W̄ as μ_{ch}, the equation of motion in the bulk can be expressed as^1_4 D^2φ = K^{−1}W̄ φ̄ = μ_{ch}φ̄. Hence the boundary conditions (E.8) and (E.9) are rewritten as { A^{(y∗)}_{ch} ∂_yφ + B^{(y∗)}_{ch} φ } y=y_∗+η_{y∗} ϵ = 0, (E.10)

where

A^{(y∗)}_{ch} ≡

0 0 −^{⟨V I ⟩}Φ^{td̃⟨}_{Ω1/3v Ω2/3h}^⟩

0 0 0 0 ⟨_{Ωh}

Ω_v ⟩_{1/3} e^{−V} 0 y=y_∗+η_{y∗} ϵ ,

B^{(y∗)}_{ch} ≡ μ_{ch}δ^I_J 0^{aIJ} Φ td̃t̂t_J ⟨ Ω^{1/3}_v Ω^{2/3}_h ⟩ 0 ( K̄^{(y∗)}_{bd} μ_{ch} − W^{(y∗)}_{bd} ) 1_{nC +nH} η_{y∗}d̃ − ⟨_{Ωh}

Ω_v ⟩_{1/3} e^{−V} t̂_J Φ 0 μ_{ch}1_{nC +nH} y=y_∗+η_{y∗} ϵ .(E.11)

F Bosonic component expression of one-loop action

Here we provide an explicit expression of the one-loop Lagrangian in terms of the bosonic components in a simple case where 5D spacetime is flat and the boundary terms are absent. In this case, the one-loop Kähler potential (4.21) is reduced to

Ω^{1loop}_{eff} = |ϕ_C |^2 N^{2/3} { Q̃_1 − Q_2 ∑ a (c_a · Re T )^3 } + O(χ̂^2), (F.1) where Q̃_1 ≡ (n_V − n_H + 1)Q_1/(8π^2), and c_a · Re T ≡ c_{aIo} Re T^{Io} . Thus the one-loop Lagrangian is written as

Δ^{1loop}L = ∫ d^4θ Ω^{1loop}_{eff} + · · · = 1 N^{2/3} { |F_{ϕC} |^2 L¯_{ϕϕ} + (¯ F_{ϕC} F_T Io ϕ_C L¯_{ϕT} Io + h.c. ) + F̄_T Io F_T Jo |ϕ_C |^2 L¯_T Io_T Jo } +O(F_χ, D_V Ie ) + · · · , (F.2)

where F_φ (φ = ϕ_C , χ, T^{Io} ) and D_V Ie denote the F -component of a superfield φ and the D-component of V^{Ie} respectively, and

L¯_{ϕϕ} ≡ Q̃_1 − Q_2 ∑ a (c_a · Re T )^3 ,

L¯_{ϕT} Io ≡ − 2N_{Io} 3N { Q̃_1 − Q_2 ∑ a (c_a · Re T )^3 } − 3Q_2 2 ∑ a (c_a · Re T )^2 c_{aIo} ,

L¯_T Io_T Jo ≡ −

3N N_{IoJo} − 5N_{Io} N_{Jo} 3N^2 { Q̃_1 − Q_2 ∑ a (c_a · Re T )^3 }

+ Q_2 N ∑ a (c_a · Re T )^2 (N_{Io} c_{aJo} + N_{Jo} c_{aIo} ) − Q_2 ∑ a (c_a · Re T ) c_{aIo} c_{aJo} . (F.3)

Here the arguments of N and its derivatives are (0_{nVe} , 2Re T^{Io} ), and ϕ_C and T^{Io} denote the lowest components of the corresponding superfields.

References

[1] P. Horava and E. Witten, Nucl. Phys. B 460 (1996) 506 [hep-th/9510209]; Nucl. Phys.

B 475 (1996) 94 [hep-th/9603142].

[2] A. Lukas, B. A. Ovrut, K. S. Stelle and D. Waldram, Phys. Rev. D 59 (1999) 086001 [hep-th/9803235]; Nucl. Phys. B 552 (1999) 246 [hep-th/9806051].

[3] L. Randall and R. Sundrum, Phys. Rev. Lett. 83 (1999) 3370 [hep-ph/9905221].

[4] T. Gherghetta and A. Pomarol, Nucl. Phys. B 586 (2000) 141 [hep-ph/0003129].

[5] A. Falkowski, Z. Lalak and S. Pokorski, Phys. Lett. B 491 (2000) 172 [hep-th/0004093].

[6] R. Altendorfer, J. Bagger and D. Nemeschansky, Phys. Rev. D 63 (2001) 125025 [hep-th/0003117].

[7] N. Arkani-Hamed and M. Schmaltz, Phys. Rev. D 61 (2000) 033005 [hep-ph/9903417]. [8] D. E. Kaplan and T. M. P. Tait, JHEP 0006 (2000) 020 [hep-ph/0004200]. [9] H. Abe and Y. Sakamura, Phys. Rev. D 79 (2009) 045005 [arXiv:0807.3725 [hep-th]]. [10] H. Abe, H. Otsuka, Y. Sakamura and Y. Yamada, Eur. Phys. J. C 72 (2012) 2018 [arXiv:1111.3721 [hep-ph]].

[11] D. E. Kaplan, G. D. Kribs and M. Schmaltz, Phys. Rev. D 62 (2000) 035010 [hep-ph/9911293].

[12] Z. Chacko, M. A. Luty, A. E. Nelson and E. Ponton, JHEP 0001 (2000) 003 [hep-ph/9911323].

[13] T. Gherghetta and A. Riotto, Nucl. Phys. B 623 (2002) 97 [hep-th/0110022]. [14] R. Rattazzi, C. A. Scrucca and A. Strumia, Nucl. Phys. B 674 (2003) 171 [hep-th/0305184].

[15] M. Fabinger and P. Horava, Nucl. Phys. B 580 (2000) 243 [hep-th/0002073]. [16] J. Garriga, O. Pujolas and T. Tanaka, Nucl. Phys. B 605 (2001) 192 [hep-th/0004109]. [17] D. J. Toms, Phys. Lett. B 484 (2000) 149.

[18] W. D. Goldberger and I. Z. Rothstein, Phys. Lett. B 491 (2000) 339 [hep-th/0007065]. [19] I. H. Brevik, K. A. Milton, S. ’i. Nojiri and S. D. Odintsov, Nucl. Phys. B 599 (2001) 305 [hep-th/0010205].

[20] N. Maru and Y. Sakamura, JHEP 1004 (2010) 100 [arXiv:1002.4259 [hep-ph]]. [21] Y. Sakamura, Phys. Rev. D 83 (2011) 036007 [arXiv:1009.5353 [hep-ph]]. [22] I. L. Buchbinder, S. J. Gates, Jr., H. -S. Goh, W. D. Linch, III, M. A. Luty, S. -P. Ng and J. Phillips, Phys. Rev. D 70 (2004) 025008 [hep-th/0305169].

[23] T. Gregoire, R. Rattazzi, C. A. Scrucca, A. Strumia and E. Trincherini, Nucl. Phys.

B 720 (2005) 3 [hep-th/0411216].

[24] A. Falkowski, JHEP 0505 (2005) 073 [hep-th/0502072].

[25] T. Kugo and K. Ohashi, Prog. Theor. Phys. 105 (2001) 323 [hep-ph/0010288]. [26] T. Fujita and K. Ohashi, Prog. Theor. Phys. 106 (2001) 221 [hep-th/0104130]. [27] T. Fujita, T. Kugo and K. Ohashi, Prog. Theor. Phys. 106 (2001) 671 [hep-th/0106051].

[28] T. Kugo and K. Ohashi, Prog. Theor. Phys. 108 (2002) 203 [hep-th/0203276]. [29] H. Abe and Y. Sakamura, JHEP 0410 (2004) 013 [hep-th/0408224]. [30] Y. Sakamura, JHEP 1207 (2012) 183 [arXiv:1204.6603 [hep-th]]. [31] H. Abe and Y. Sakamura, Nucl. Phys. B 796 (2008) 224 [arXiv:0709.3791 [hep-th]]. [32] F. Paccetti Correia, M. G. Schmidt, Z. Tavartkiladze and , Nucl. Phys. B 709 (2005) 141 [hep-th/0408138].

[33] S. M. Kuzenko and W. D. Linch, III, JHEP 0602 (2006) 038 [hep-th/0507176]. [34] S. M. Kuzenko, Phys. Lett. B 644 (2007) 88 [hep-th/0609078]. [35] S. M. Kuzenko and G. Tartaglino-Mazzucchelli, JHEP 0804 (2008) 032 [arXiv:0802.3953 [hep-th]].

[36] W. D. Linch, III, M. A. Luty and J. Phillips, Phys. Rev. D 68 (2003) 025008 [hep-th/0209060].

[37] Y. Sakamura, JHEP 1112 (2011) 008 [arXiv:1107.4247 [hep-th]]. [38] M. Gunaydin and M. Zagermann, Nucl. Phys. B 572 (2000) 131 [hep-th/9912027]. [39] T. Kugo and K. Ohashi, Prog. Theor. Phys. 108 (2003) 1143 [hep-th/0208082]. [40] J. Wess and J. Bagger, Princeton, USA: Univ. Pr. (1992) 259 p. [41] T. Kugo and S. Uehara, Nucl. Phys. B 226 (1983) 49.

[42] N. Arkani-Hamed, T. Gregoire and J. G. Wacker, JHEP 0203 (2002) 055 [hep-th/0101233].

[43] A. Hebecker, J. March-Russell and R. Ziegler, JHEP 0908 (2009) 064 [arXiv:0801.4101 [hep-ph]].

[44] F. Paccetti Correia, M. G. Schmidt, Z. Tavartkiladze and , Nucl. Phys. B 751 (2006) 222 [hep-th/0602173].

[45] H. Abe and Y. Sakamura, Phys. Rev. D 75 (2007) 025018 [hep-th/0610234]. [46] M. T. Grisaru, M. Rocek and R. von Unge, Phys. Lett. B 383 (1996) 415 [hep-th/9605149].

[47] I. L. Buchbinder, S. Kuzenko and Z. .Yarevskaya, Nucl. Phys. B 411 (1994) 665. [48] R. Flauger, S. Hellerman, C. Schmidt-Colinet and M. Sudano, arXiv:1205.3492 [hepth].

[49] S. J. Gates, M. T. Grisaru, M. Rocek and W. Siegel, Front. Phys. 58 (1983) 1 [hep-th/0108200].

[50] S. J. Gates, Jr.., S. M. Kuzenko and J. Phillips, Phys. Lett. B 576 (2003) 97 [hep-th/0306288].

[51] W. Siegel, Phys. Lett. B 84 (1979) 193.

[52] A. Brignole, Nucl. Phys. B 579 (2000) 101 [hep-th/0001121]. [53] A. Falkowski, Phys. Rev. D 75 (2007) 025017 [hep-ph/0610336]. [54] Y. Hosotani, Phys. Lett. B 126 (1983) 309.

[55] Y. Nomura, D. Poland and B. Tweedie, JHEP 0612 (2006) 002 [hep-ph/0605014]. [56] A. Hebecker and M. Ratz, Nucl. Phys. B 670 (2003) 3 [hep-ph/0306049]. [57] N. Haba and Y. Shimizu, Phys. Rev. D 67 (2003) 095001 [Erratum-ibid. D 69 (2004) 059902] [hep-ph/0212166].

[58] F. Brummer, S. Fichet, A. Hebecker and S. Kraml, JHEP 0908, 011 (2009) [arXiv:0906.2957 [hep-ph]].