arXiv:1303.1068v4 [hep-th] 23 Apr 2013

ITEP–TH–2/13

Infrared dynamics of the massive ϕ^4 theory on de Sitter space

E. T. Akhmedov^{1),2),3)}, F. K. Popov^{1),2)} and V. M. Slepukhin^{1),2)}

1) B. Cheremushkinskaya, 25, Institute for Theoretical and Experimental Physics, 117218, Moscow, Russia

2) Institutskii per, 9, Moscow Institute of Physics and Technology, 141700, Dolgoprudny, Russia

3) Vavilova, 7, Mathematical Faculty of the National Research University Higher School of Economics, 117312, Moscow, Russia

Abstract

We study massive real scalar ϕ^4 theory in the expanding Poincare patch of de Sitter space. We calculate the leading two loop infrared contribution to the two-point function in this theory. We do that for the massive fields both from the principal and complementary series. As can be expected at this order light fields from the complementary series show stronger infrared effects than the heavy fields from the principal one. For the principal series, unlike the complementary one, we can derive the kinetic equation from the system of Dyson-Schwinger equation, which allows us to sum up the leading infrared contributions from all loops. We find two peculiar solution of the kinetic equation. One of them describes stationary Gibbons-Hawking type distribution for the density per comoving volume. Another solution shows explosive (square root of the pole in finite proper time) growth of the particle number density per comoving volume. That signals the possibility of the destruction of the expanding Poincare patch even by the very massive fields. We conclude with the consideration of the infrared divergences in global de Sitter space and in its contracting Poincare patch.

1 Introduction

There are large infrared (IR) loop contributions even in the massive field theories in the Poincare patch (PP) of de Sitter (dS) space [1], [2], [3] (see also [4]–[8] for the massless fields). In global dS space there are IR divergences [1], [9], [10] (see also [11]), which lead to the inevitable breaking of the dS isometry in the loops for any initial state. They are specific to dS space physics and are absent e.g. in AdS space [12].

For the alternative point of view on the IR properties of the massive field theories in dS space see [13], [14]. However, these papers heavily relay on the analytical properties of the correlators as functions of the dS invariant distances between their arguments. But such an approach does not work when the dS isometry is broken by the initial density perturbation (or by the IR divergence in global dS). In fact, then the correlation functions stop to depend only on the invariant distance and become functions of each point separately. The motivation to include initial density perturbation is that it is rather unphysical to address the question of the stability of the system under such conditions when all its symmetries are respected exactly. We propose to consider excitations above the highly symmetric state and to trace where do they evolve in the future infinity — to the symmetric state or not? In global dS one even does not have to consider initial density perturbations, because dS isometry is broken in the loops by the IR divergences.

In [1], [2], [3], [9], [10], [15] the large IR contributions to the two point functions were calculated for the massive real scalar field theory with the cubic, ϕ^3, selfinteraction. The cubic potential has the runaway instability. Moreover, one-loop higher power correlation functions of the ϕ^3 theory may potentially show strong IR effects, which are absent in the ϕ^4 theory at least in 4D. To show that those IR effects, which are observed in our previous papers, are universal rather than due to do the specific properties of the ϕ^3 theory, we consider here the scalar field theory with ϕ^4 selfinteraction. Furthermore, in the pervious papers only massive fields from the principal series have been considered. Here we extend those considerations to the complementary series.

We calculate loop corrections to the so called Keldysh propagator in PP of dS space. Unlike ϕ^3 case, in the ϕ^4 theory there are no any large IR contributions in the first loop. However, at the two loop order we find such contributions in the sunset diagrams. In the case of the fields from the principal series the contribution is linear logarithmic in the physical momentum. For the complementary series the situation is more subtle and depends on the type of α–harmonics, but always is power like, i.e. stronger than for the principal series.

We are not yet capable to perform the summation of the higher loop contributions for the case of the complementary series. But for the principal series it is possible to do such a summation. That is done via a suitable IR ansats for the solution of the system of Dyson-Schwinger (DS) equations, which allows to reduce it to a generalization of the Boltzmann’s kinetic equation. The latter one has a clear physical meaning and describes various particle decay and creation processes in the dS space (see also [17]–[20], [11]). We solve this kinetic equation in two cases. One corresponds to the very mild initial density perturbation over the initial Bunch-Davies state. In such a case the state of the theory relaxes to the eventual Gibbons- Hawking type stationary distribution for the number density per comoving volume. Another situation corresponds to the strong enough initial density perturbation, which, however, is still much smaller than the cosmological constant. In this case the state of the theory shows the explosive (square root of the pole in finite proper time) growth of the particle number density per comoving volume.

We conclude with the consideration of the contracting PP of dS space and of the global dS and draw similar conclusions to those which have been made in [10] for the ϕ^3 theory.

2 The setup of the problem

D-dimensional de Sitter (dS) space-time is the hyperboloid, X^2_0 − X^2_i = −1, i = 1, . . . , D, inside (D + 1)-dimensional Minkowski space-time, ds^2 = dX^2_0 − dX^2_i . Throughout this paper we set its curvature to 1 and mostly consider its half (e.g. X_0 ≥ X_D), which is referred to as expanding Poincare patch (PP): ds^2 =^1_{η2} (dη^2 − d⃗x^2), where η ∈ (+∞, 0). Note that while η → +∞ is the past, η → 0 corresponds to the future infinity. The action of the theory which we are going to study is

S = ∫ d^Dx √ |g| [ 1 2 ∂_μϕ∂^μϕ − m^2ϕ^2 − λ 4! ϕ^4 ] . (1)

Throughout this paper we always assume that m > 0.

Corresponding free harmonics in the Fourier expansion ϕ(x, η) = ∫ d^{D−1}k η^{D−1}2 [ a_k h(kη) e^{−ikx} +a^+_k h^∗(kη) e^{ikx} ] , k = | |⃗k | | are defined via h(x), which is a solution of the Bessel equation with

the index i μ = i √ m^2 − (_{D−1} 2 )_2

. The choice of such a solution specifies the dS invariant vacuum a_k |vac⟩ = 0. E.g. Bunch-Davies (BD) state (or in-vacuum in PP) corresponds to h(pη) =^{√π}_2 e^{− πμ}2 H^{(1)}_{iμ} (pη), where H^{(1)}_{iμ} is the Hankel function of the first kind. All other harmonics and vacua can be obtained from those of BD via a one parameter family of the Bogolyubov rotations [21], [22]. For example, the out-vacuum corresponds to the so called out- Jost-harmonics, h(pη) = √_π sinh(πμ) Jiμ(pη), where Jiμ is the Bessel function of the first kind.

Conjugate harmonics in the latter case are given by the Y ’s — Bessel functions of the second kind.

In the nonstationary situation every particle is described by the matrix propagator (see e.g. [23] for the Feynman rules in the ϕ^3 scalar field theory on dS space) whose entries are — the Keldysh propagator, G_K =^1_2 ⟨{ϕ(x), ϕ(y)}⟩, and the retarded and advanced propagators^∗, G^A_R = ∓⟨[ϕ(x), ϕ(y)]⟩ θ(∓Δx_0). The more detailed discussion of the physics in dS space, which is relevant for the present paper, can be found in [1], [3], [9], [10], [15]. It is instructive for the further discussion to keep in mind that the result of the calculation with the use of the non-stationary Keldysh-Schwinger diagrammatic technique provides a solution to a sort of the Cauchy problem.

Because PP is spatially homogeneous and because below we concentrate on the spatially homogeneous states, we find it convenient to make the spatial Fourier transform of the aforementioned propagators:

D^{K,R,A} (η_1, η_2, p) = ∫ d^{D−1}x e^{i⃗p ⃗x} G^{K,R,A} (η_1, ⃗x, η_2, 0) , D^K (η_1, η_2, p) = (η_1η_2)^{D−12} d^K (pη_1, pη_2), D^A_R(η_1, η_2, p) = ∓θ(±Δη)(η_1η_2)^{D−12} d^−(pη_1, pη_2), (2)

where Δη = η_1 − η_2, p = |⃗p| and

d^−(pη_1, pη_2) = 2Im [h(pη_1)h^∗(pη_2)] ,

d^K (pη_1, pη_2) = h(pη_1)h^∗(pη_2) ( 1 2 + n_p ) + h(pη_1)h(pη_2)k_p + c.c. . (3)

Here we use the convenient notations n_p = ⟨a^+_p a_p⟩ and κ_p = ⟨a_p a_{−p}⟩. In the non-stationary situation n_p and k_p can be zero only on the tree–level, i.e. if the initial state is chosen to be |vac⟩. It is worth stressing here that in our paper we always study two-point correlation function.

According to (2)-(3), the quantities n_p = ⟨a^+_p a_p⟩ and k_p = ⟨a_p a_{−p}⟩ are juts elements of this

∗Here Δx_0 = x_0 −y_0, {, } is the anti–commutator and [, ] is the commutator; θ(η) is the Heaviside θ-function.

correlation function. Hence, all our conclusions about their behavior have invariant physical meaning. Furthermore, in the situation when the anomalous quantum average k_p vanishes n_p acquires the clear physical meaning — it becomes the particle number density per comoving volume in the given state of the theory. In fact, then free Hamiltonian of the theory acquires the diagonal form. Moreover, then all elements of the kinetic equation which is presented below acquire the clear physical meaning.

Let us provide here a few more arguments favoring our interpretation of n_p as the particle density. Various observers may indeed detect different particle fluxes. However, one should separate Unruh effect from what we would like to call as the real particle production. In Minkowski space both inertial and non-inertial observers see the same state - Minkowski (Poincare invariant) vacuum. However, while inertial observer sees it as the empty space, the non-inertial one sees it as the thermal state. That is due to the specific correlation of the vacuum fluctuations along its world-line [16]. Note that there is no any non-trivial gravitational field in the circumstances under consideration, because Riemanian tensor is exactly zero.

The real particle creation is due to the change of the “vacuum” state under the influence of the background field. That is exactly what happens in the background electric field, in dS space and in the collapsing black hole background.

Rephrasing, we would like to say here that while in Minkowski space there is one type of observers which does not see any particle flux, in dS space there is no such an observer which sees nothing. On general grounds we expect that the least particle flux is seen by inertial observers — they do not see extra Unruh type of flux, so to say. Our calculations are actually done for the inertial observers, because the change from the proper time t to the conformal one, η = e^{−t}, is just the change of the clock’s rate rather than a transition to some non-trivial motion. In any case all our formulas can be trivially rewritten in the proper time t.

Finally, the IR dynamics depends on the value of the mass m and on the choice of h(x). Below we separately consider the following two cases: (_{D−1} 2 )_2 < m^2 — the principal series, and (_{D−1} 2 )_2 > m^2 — the complementary series. The crucial physical difference between these two cases is due to the fact that while the harmonics of the principal series oscillate at the future infinity, h(x) ≈ A_+ x^{iμ} + A_− x^{−iμ}, x → 0, those of the complementary series don’t do that, because in the latter case μ is pure imaginary.

3 Two-loop contribution

In this section we calculate loop corrections to the Keldysh propagator, D^K (η_1, η_2, p), with the initial dS invariant vacuum state at the past infinity of PP. In these settings the tree-level D^K (η_1, η_2, p) is given by (3) with n_p = 0 and κ_p = 0. It is straightforward to show that the ϕ^4 theory, unlike ϕ^3 one, does not poses any large IR contributions to any propagator at the first loop order (∼ λ). However, in the second loop order (∼ λ^2) there is a large IR contribution to D^K , which is of interest for us. We consider the IR limit in which p √ η_1 η_2 → 0 and η_1/η_2 = const [3], [15], [10]. It corresponds to the situation when both time arguments of the propagator are taken to the future infinity, while the time distance between them is kept finite.

The reason why we pay attention only to the Keldysh propagator is that it defines the state of the theory, i.e. shows the dependence of n_p and k_p on time. Moreover, in the case of principal series it is the only propagator which receives large corrections of the order λ^2 log(p √ η_1η_2/μ) in the IR limit in question. In fact, in [2] it was shown that the retarded and advanced propagators of the ϕ^3 theory receive only finite corrections from the first loop — of the order λ^2 log(η_1/η_2). In the case of the ϕ^4 theory the situation is similar in the second loop. Furthermore it is straightforward to show that for the principal series the large IR contributions to the interaction vertex are also suppressed by higher powers of λ. For the complementary series the situation is more subtle, but we still would like to start their study with the consideration of the loop corrections to D^K .

The large IR loop contribution to D^K (if there is one) at the order λ^2 can be expressed in the form (2), (3) with

n_p(η) ≈ − λ^2 3 (2π)^{2(D−1)} ∫ d^{D−1}q_1 d^{D−1}q_2 d^{D−1}q_3 ∫_η ∞ dη_3 ∫_η ∞ dη_4 (η_3η_4)^{D−2}

δ^{(D−1)} (⃗p + ⃗q_1 + ⃗q_2 + ⃗q_3) h(pη_3)h(q_1η_3)h(q_2η_3)h(q_3η_3)h^∗(pη_4)h^∗(q_1η_4)h^∗(q_2η_4)h^∗(q_3η_4), k_p(η) ≈ 2 λ^2 3 (2π)^{2(D−1)} ∫ d^{D−1}q_1 d^{D−1}q_2 d^{D−1}q_3 ∫_η ∞ dη_3 ∫_{η3} ∞ dη_4(η_3η_4)^{D−2}

δ^{(D−1)} (⃗p + ⃗q_1 + ⃗q_2 + ⃗q_3) h^∗(pη_3)h(q_1η_3)h(q_2η_3)h(q_3η_3)h^∗(pη_4)h^∗(q_1η_4)h^∗(q_2η_4)h^∗(q_3η_4). (4)

Here p = |⃗p|, q_{1,2,3} = |⃗q_{1,2,3}| and n_p(η) is real. Note that if one will take the flat space limit of these expressions, i.e. substitute η by t, √ |g| by 1 and η^{(D−1)/2} h(kη) by e^{i ϵ(k) t}, then n_p and k_p would vanish, when η → 0, as the consequence of the energy conservation.

In deriving these expressions we have used that h(pη) depends only on |⃗p| and, hence, we can safely change ⃗p → −⃗p. Also in the IR limit in question inside the leading loop corrections one can neglect the difference between η_1, η_2 and η = √ η_1 η_2. In such an approximation we drop the subleading, λ^2 log (η_1/η_2), contributions from the expressions for n_p and k_p. The derivation of (4) is similar to the one performed in [1], [2], [3], [10], [15] for the ϕ^3 theory.

3.1 Principal series

We start with the case^{D−1}_2 < m and make the following change of the integration variables in (4): ⃗q_i to ⃗l_i = ⃗q_iη_3 and η_4 to v =^{η3}_{η4} , i = 1, 2, 3. Then we expand h(pη_{3,4}) ≈ A_+(pη_{3,4})^{iμ} + A_−(pη_{3,4})^{−iμ} as pη_{3,4} → 0 under the integrals, where A_± are some mass dependent complex constants. After that we neglect^† p in comparison with q_{1,2,3} on the RHS of (4) and perform the integration over η_3. The largest IR contributions come from the integrals of the type ∫_η μ/p dη_3 η_3 h (p η3) h

∗ (p η_3 v) and ∫_η μ/p dη_3 η_3 h

∗ (p η_3) h^∗ (p η_3 v), where h’s are Taylor expanded. The result is as follows:

n_{pη} ≈ − λ^2 log(pη/μ) 3 (2π)^{2(D−1)}

∫_0 ∞ dvv^{D−2} ∫ d^{D−1}l_1 d^{D−1}l_2 d^{D−1}l_3 δ^{(D−1)} ( ⃗l_1 + ⃗l_2 + ⃗l_3 ) × ×h^∗(l_1)h (l_1v) h^∗(l_2)h (l_2v) h^∗(l_3)h (l_3v) [ |A_+|^2 v^{−iμ} + |A_−|^2 v^{+iμ} ] , k_{pη} ≈ 2λ^2 log(pη/μ) 3 (2π)^{2(D−1)}

∫_1 ∞ dvv^{D−2} ∫ d^{D−1}l_1 d^{D−1}l_2 d^{D−1}l_3 δ^{(D−1)} ( ⃗l_1 + ⃗l_2 + ⃗l_3 ) × ×h^∗(l_1)h (l_1v) h^∗(l_2)h (l_2v) h^∗(l_3)h (l_3v) A_+A_− [ v^{iμ} + v^{−iμ} ] , l_{1,2,3} = | |⃗l_{1,2,3} | | . (5) †The justification of all the listed here approximations can be found in [1], [2], [3], [9], [15], [10].

The lower limit of integration over η_3 we cut by μ, because at pη ≫ μ the d^{D−1}l_i, dη_3 and dv integrals are rapidly convergent due to the oscillations of h(x), while we care only about the leading IR contribution. It is worth stressing here that such a convergence of the dv and d^{D−1}l_i integrals is true in the sense of the generalized functions. The latter fact is related to the discussed below behavior of the modes with high momenta.

Note that n_p(η) and k_p(η) are functions of the physical momentum, pη, rather than separately depend on the momentum, p, and on the time, η. That is natural because of the spatial homogeneity and the invariance of the PP dS metric under the simultaneous rescaling ⃗x → σ⃗x, η → ση. It was explained in [3], [9], [10], [15] that such large log contributions in D^K appear due to the particle creation in dS space (see also the discussion below). In the expanding PP the creation of particles with comoving momentum p effectively starts after some moment of time η_∗^<∼ μ/p, because the modes with high momenta, pη ≫ μ, do not feel the curvature of the space-time and behave as if they are in flat space. As the result n_p and k_p are proportional to the proper time, log (μ/pη), elapsed from μ/p to η. The coefficient of the proportionality is just the particle production rate. It is worth stressing here that the presence of the large k_p, which is comparable to n_p, signals that there is the strong backreaction on the initial state |vac⟩ [3],[10],[15].

For the further reference it is instructive to study also the IR behavior of n_p and k_p for the out–Jost–harmonics. Although UV behavior of the correlation functions for the out–Jost– harmonics is different from the proper flat space type, we are interested here in the IR limit, where out–Jost–harmonics may play a crucial role^‡. In fact, in condensed matter physics it is the frequent situation that in the IR limit one has to perform a Bogolyubov rotation to some harmonics whose UV properties may be different from the proper ones, however they properly describe the IR physics. The seminal example is the BCS theory for superconductivity.

In particular, we will see that the proper solution of the IR limit of the system of Dyson- Schwinger (DS) equations is obtained via the out–Jost–harmonics. The hint for that comes from the following observation. For the out-Jost-harmonics the leading IR two-loop contribution has a crucial difference wrt that of BD harmonics or any other α-harmonics. In fact, the out-Jost-harmonics behave as h(pη_{3,4}) ≈ A(pη_{3,4})^{iμ} in the future infinity, pη_{3,4} → 0, where A is some mass dependent complex constant. Then it is straightforward to show that n_p has the same form as (5) with |A|^2 v^{iμ} instead of [ |A_+|^2 v^{iμ} + |A_−|^2 v^{−iμ} ] . At the same time k_p does not receive any large contributions in the IR limit in question, i.e. it is negligible in comparison with n_p. This is going to be an important observation for the derivation of the kinetic equation below.

It is worth stressing here that for the out-Jost-harmonics the dv and d^{D−1}l_i integrals in the obtained expressions for n_p and k_p are also convergent. In fact, the situation in the ϕ^4 theory is even simpler than in the ϕ^3 case [3].

3.2 Complementary series

We continue with the consideration of the complementary series,^{D−1}_2 > m, corresponding to the imaginary μ, i.e. to the real index of the solution of the Bessel equation h(pη). Below

‡While the theory under consideration shows the proper UV behavior in the BD state, it does not do that in any other α-state. The reason for that is as follows. While BD harmonics behave as single waves e^{i p η} in the UV limit, pη → ∞, the other α-harmonics behave as linear combinations of e^{ipη} and e^{−ipη} in the same limit.

we use the notation ν = −iμ. Then for the in-harmonics h = J_ν + iY_ν , where both Bessel functions J_ν and Y_ν are real in the case of the real index ν. Expanding them near zero, we get Y_ν (x) ≈ A_−x^{−ν} + Bx^{−ν+2} and J_ν (x) ≈ A_+x^ν . Because of the possible differences between the behavior of h and h^∗ near zero we have to pay attention separately to k_p and k^∗_p.

The contributions to n_p and k_p, k^∗_p can be expressed as

n_p(η) ≈ − 2λ^2 3 (2 π)^{2 (D−1)}

∫_0 ∞ du u ∫_0 ∞ dv v^{2D−1} F [v] h(uv)h^∗ (u v ) θ[uv − pη] θ [u v − pη ] , k_p(η) ≈ 4 λ^2 3 (2π)^{2(D−1)}

∫_0 ∞ du u ∫_0 ∞ dv v^{2D−1} F [v] h^∗(uv)h^∗ (u v ) θ[uv − pη] θ [u v − uv ] , k^∗_p(η) ≈ 4 λ^2 3 (2π)^{2(D−1)}

∫_0 ∞ du u ∫_0 ∞ dv v^{2D−1} F [v] h(uv)h (u v ) θ[uv − pη] θ [u v − uv ] , (6)

with the use of the following notations

F (η_3, η_4) = ∫ [ 3∏ i=1 d^{D−1}q_ih(q_iη_3)h^∗(q_iη_4) ] (η_3η_4)^{D−2} δ^{(D−1)} (⃗p − ⃗q_1 − ⃗q_2 − ⃗q_3) , (7)

which, after the change of integration variables u = p √ η_3η_4, v = √_{η3} η_4 , can be expressed as

F (η_3, η_4) =^{p2}_{(uv)2 (D−1)} u^{2 (D−2)} F [v], where F [v] = F^∗ [1/v] is some function of one variable v.

The leading correction to n_p and k_p is given by (6) where from the Hankel functions, h(uv) and h(u/v), we single out only Y ’s. Such a contribution gives for n_p and k_p the inverse power like behavior in pη, which, however, cancels out after the substitution into D^K , because Y is real. The next order is obtained as follows. One also has to express h(pη_{1,2}) through J_ν and Y_ν in the full propagator D^K . Then from one of the four h’s (h(pη_{1,2}) and h(uv), h(u/v)) we have to single out J_ν , while from the other three — Y_ν ’s. This expression doesn’t cancel out and provides the leading IR contribution to D^K :

D^K (η_1, η_2, p) =

8 λ^2 A^3_− A_+ η^{D−1} 3 (2π)^{2 (D−1)} 0∫ ∞ du u^{−1−2ν} 0∫ ∞ dv v^{1−2 D}F [v] {[ −1 + ( u pη v )_{2ν} ] θ [ uv − u v ] θ [−pη + uv] + [ 1 − ( uv pη )_{2ν} ] θ [ −uv + u v ] θ [ −pη + u v ] } . (8)

After the straightforward manipulations the obtained expression can be reduced to:

D^K (η_1, η_2, p) = −

8 λ^2 A^3_− A_+ η^{D−1} log(pη) 3 (2π)^{2 (D−1)} (pη)^{2ν} ∞∫ 1 dv v^{1−2D} F [v] [ − 1 2ν v^{2ν} + ( 1 v )_{2ν} ] − 1∫ 0 dv v^{1−2D} F [v] [ 1 2ν (v)^{−2ν} + v^{2ν} ] . (9)

The integral over v is convergent in the IR limit (as v → ∞) if D > 1 + 4ν. In the UV limit (v → 0) it is convergent in the sense of the generalized function.

For the out-harmonics the situation is a bit different. In this case h = J_ν , h^∗ = Y_ν . The straightforward calculation shows that

n_p(η) ∝ λ^2 A_− A_+ log(pη)

∫_1 0 dv F [v]v^{2ν+1−2D}, k_p(η) ∝ λ^2 A^2_− (pη)^{−2ν}

∫_0 1 dv F [v] v^{2ν+1−2D}, k^∗_p(η) ∝ λ^2 A^2_+ μ^{2 ν}

∫_1 0 dv F [v] v^{−2ν+1−2D} + O ( (pη)^{2ν} ) . (10)

After the substitution into the Keldysh propagator the leading contribution comes from k^∗_p and is as follows:

D^K ≈ λ^2 A^2_− A^2_+ μ^{2ν} 3 ν (2π)^{D−1} (pη)^{2ν} η^{D−1} ∫_1 0 dv v^{−2ν+1−2D}F [v] (11) Thus, for the complementary series the loop contributions are power like, i.e. stronger than for the case of the principal series.

Because of the character of these IR contributions for the light fields we do not yet understand their physical meaning and think that the obtained in the next section kinetic equation is not applicable for the fields from the complementary series. In the case of the complementary series we do not yet know how to perform the summation of the leading IR contributions from all loops. But on general physical grounds and from the two loop result we expect that complementary series will show stronger IR effects than the heavy fields from the principal series, which is under study below.

4 Kinetic equation

Although λ^2 is small the product λ^2 log (μ/pη) can become large as pη → 0. Hence, higher loops are not suppressed in comparison with the tree-level contribution. Then, one has to perform the summation of the leading IR contributions from all loops. This can be achieved via an approximate IR solution of the system of DS equations in the non-stationary diagrammatic technique. We can do that only for the case of the principal series, m > (D − 1)/2, at least because in this case harmonics oscillate in the IR limit. As the result there is a clear separation of scales between the time dependence of the harmonics h(pη) and that of n_{pη} and k_{pη}. This allows to simplify DS equations in the limit under consideration and eventually to solve them approximately. In the case of the complementary series, however, the character of the IR contributions to D^K and to the vertex does not allow to have a clear kinetic interpretation.

Putting it in other words, to move further it is worth observing that above we have calculated the loop corrections to the Keldysh propagator under the assumption that n_p and k_p retain their initial values throughout all the time evolution. In fact, in the calculations of the previous section we have used tree-level propagators, i.e. their initial values. To make the problem self-consistent one has to take into account the change of n_p and k_p in time. As we will see, this also allows to reduce the problem to the solution of the DS equations for the nonstationary diagrammatic technique. The latter ones represent a system of equations for the matrix propagators, self-energy and for the vertex. In some circumstances, as we will see, this system can be simplified and reduced to a single equation.

We assume that the evolution had started with some density perturbation over the BD state at the past infinity of PP. Then the UV behavior of the theory in question is the same as in flat space, but dS invariance is slightly broken. We would like to trace the destiny of these density perturbations in the future infinity, i.e. would like to see whether the theory relaxes back to the dS invariant state or this density explodes causing the modification of the background geometry? The answer to the latter question also can be obtained only after the solution of the IR limit of the non-stationary DS equation.

Thus, we would like to sum up leading contributions, which are powers of λ^2 log(p √ η_1η_2/μ), and drop the subleading terms, which are suppressed by higher powers of λ and/or powers of λ^2 log(η_1/η_2). Having in mind that retarded and advanced propagators and the vertex do not receive any large contributions in the limit in question^§, we can assume that they take their classical (UV renormalized) values. At the same time we assume that the ansatz for the exact Keldysh propagator is given by (2),(3) with undefined n_p(η) and k_p(η), where η = √ η_1η_2.

Then the relevant part of the system of DS equations has the form

D^K (η_1, η_2, p) = D^K_0 (η_1, η_2, p) − − λ^2 6 (2π)^{2(D−1)} ∫ d^{D−1}q_1 d^{D−1}q_2 d^{D−1}q_3 ∫∫_0 ∞ dη_3dη_4 (η_3η_4)^D δ^{(D−1)} (⃗p − ⃗q_1 − ⃗q_2 − ⃗q_3) [ 3 D^K_0 (η_1, η_3, p)D^K (η_3, η_4, q_1)D^K (η_3, η_4, q_2)D^A_0 (η_3, η_4, q_3)D^A_0 (η_4, η_2, p) − 1 4 D^K_0 (η_1, η_3, p)D^A_0 (η_3, η_4, q_1)D^A_0 (η_3, η_4, q_2)D^A_0 (η_3, η_4, q_3)D^A_0 (η_4, η_2, p) − 3 4 D^R_0 (η_1, η_3, p)D^K(η_3, η_4, q_1)D^A_0 (η_3, η_4, q_2)D^A_0 (η_3, η_4, q_3)D^A_0 (η_4, η_2, p)

+D^R_0 (η_1, η_3, p)D^K (η_3, η_4, q_1)D^K (η_3, η_4, q_2)D^K (η_3, η_4, q_3)D^A_0 (η_4, η_2, p) − 3 4 D^R_0 (η_1, η_3, p)D^K (η_3, η_4, q_1)D^R_0 (η_3, η_4, q_2)D^R_0 (η_3, η_4, q_3)D^A_0 (η_4, η_2, p) − 1 4 D^R_0 (η_1, η_3, p)D^R_0 (η_3, η_4, q_1)D^R_0 (η_3, η_4, q_2)D^R_0 (η_3, η_4, q_3)D^K (pη_4, pη_2)

+3 D^R_0 (η_1, η_3, p)D^R_0 (η_3, η_4, q_1)D^K (η_3, η_4, q_2)D^K (η_3, η_4, q_3)D^K (η_4, η_2, p) ] (12)

where p = |⃗p|, q_{1,2,3} = |⃗q_{1,2,3}| and D^{A,R,K}_0 are the Fourier transforms of the initial values of the retarded, advanced and Keldysh propagators^¶, D^K — is the exact Keldysh propagator.

§Of course there are large IR contributions to D^{A,R} and to the vertex, which are coming from those in D^K . Correspondingly they are suppressed by the higher powers of λ, because they appear in the higher loops. Actually all one-loop contributions to the vertex have similar structure to the one shown in (4) with one momentum integration less. It is straightforward to see that because of that there is no any large IR contribution to the vertex at the λ^2 order.

¶I.e. D^K_0 is also given by (2),(3) with some initial values n^{(0)}_p and k^{(0)}_p .

This equation is covariant under the Bogolyubov rotations between different harmonics, h(x). Because we are interested in its solution in the IR limit we do not have to care about the proper UV behavior and have to check the situation for all possible α-harmonics.

We would like to pick out the largest IR contribution from the integral on the RHS of (12). The calculation is just a straightforward generalization of the above two-loop one. Similarly to [3], [10], [15], for all α-harmonics, including BD ones, we obtain that the ansatz (2), (3) solves DS equation in the IR limit in question. But k_p is comparable to n_p. This means that the backreaction on the background state (specified by the choice of the harmonics) is big. The only exception is given by the out-Jost-harmonics. For these harmonics k_p remains zero if its initial value was zero. Moreover, small perturbations of k_p relax back to zero. For the ϕ^3 theory this was shown in [15]. For the ϕ^4 theory the situation is similar.

As the result, with the use of the out-Jost-harmonics the IR limit of the DS equation is solved by (2), (3) with k_p = 0. We would like to convert the integral DS equation (12) into the integrodifferential form, i.e. into the form of the kinetic equation [24]. This is done via a kind of the renormalization group procedure as follows [15]. In the given settings n^{(0)}p is the particle density at some moment after η_∗ ∼ μ/p. In fact, as we have mentioned above and explain in the next section, before this moment all the kinetic processes, except may be the irrelevant scattering one, are suppressed. Hence, n_p(η) remains constant and is equal to n^{(0)}p . Then, from (12) it is straightforward to derive that the difference between n_p(η) and n^{(0)}p = n_p(η_∗) is proportional to the proper time elapsed from η_∗ to η. The coefficient of the proportionality is the collision integral — the RHS of the kinetic equation:

n_p(η) − n_p(η_∗) log(η) − log(η_∗) → dn_{pη} d log(pη) = − λ^2 |A|^2 6 ∫ d^{D−1}l_1 (2π)^{D−1} d^{D−1}l_2 (2π)^{D−1} ∫_0 ∞ dv v^{D−2} { 3Re [ v^{iμ} h^∗(l_1)h^∗(l_2)h (| |⃗l1 + ⃗l2 | |) h(l_1v)h(l_2v)h_∗ ( | |⃗l_1 + ⃗l_2 | | v)] × × [ (1 + n_{pη})n_{l1} n_{l2} (1 + n_{|⃗l1+⃗l2|}) − n_{pη}(1 + n_{l1} )(1 + n_{l2} )n_{|⃗l1+⃗l2|} ]

+3Re [ v^{iμ} h^∗(l_1)h(l_2)h (| |⃗l1 − ⃗l2 | | | ) h(l_1v)h^∗(l_2v)h^∗ (| |⃗l1 − ⃗l2 | | | v )] × × [ (1 + n_{pη})n_{l1} (1 + n_{l2} )(1 + n_{|⃗l1−⃗l2|}) − n_{pη}(1 + n_{l1} )n_{l2} n_{|⃗l1−⃗l2|} ]

+Re [ v^{iμ} h^∗(l_1)h^∗(l_2)h^∗ (| |⃗l1 + ⃗l2 | | | ) h(l_1v)h(l_2v)h (| |⃗l1 + ⃗l2 | | | v )] × × [ (1 + n_{pη})n_{l1} n_{l2} n_{|⃗l1+⃗l2|} − n_{pη}(1 + n_{l1} )(1 + n_{l2} )(1 + n_{|⃗l1+⃗l2|}) ]

+Re [ v^{iμ} h(l_1)h(l_2)h (| |⃗l1 + ⃗l2 | |) h_∗(l_1v)h_∗(l_2v)h_∗ ( | |⃗l_1 + ⃗l_2 | | v)] × × [ (1 + n_{pη})(1 + n_{l1} )(1 + n_{l2} )(1 + n_{|⃗l1+⃗l2|}) − n_{pη}n_{l1} n_{l2} n_{|⃗l1+⃗l2|} ]} . (13)

In the process of the derivation of this equation we have neglected p in comparison with q_{1,2,3} on its RHS, denoted ⃗l_{1,2,3} = ⃗q_{1,2,3}η and assumed that on the RHS of (12) n_{kη} is much slower function of time than h(kη). The latter fact is true because of the above mentioned separation of scales. As the result we can safely take out all n’s from the argument of the time integral on the RHS of (12) and substitute D^K_0 by D^K .

Note that one can reproduce n_p in eq.(5) from (13) if he will use Hankel functions in place of h(x), change |A|^2v^{iμ} to [|A_+|^2 v^{i μ} + |A_−|^2 v^{−i μ}] and put all n’s to zero on the RHS of (13).

5 Solution of the kinetic equation

The kinetic equation (13) does not posess Plankian distribution as its solution, because of the violation of energy conservation in the dS background gravitational field. It can be mapped to the kinetic equation in flat space via the substitution of the harmonics η^{(D−1)/2} h(kη) by the plane waves e^{i ϵ(k) t} in the collision integral. In the latter case one has δ-functions ensuring energy conservation on the RHS of (13) instead of the integrals of h’s. That in particular means that for high energy modes, kη ≫ μ, the kinetics in dS space is the same as in flat one: they can scatter off each other, but cannot be created in various processes involving dS background.

Thus, suppose we have started at past infinity of PP with some very mild density perturbation over the BD state. After the Bogolyubov rotation to the out-Jost-harmonics, one has some initial values of n_p and k_p. As can be understood from the discussion in the previous paragraph, for the given p the density n_p and the anomalous average k_p practically do not change before the moment η_∗ ∼ μ/p. After this moment they begin to evolve according to the coupled system of kinetic equations for n_p and k_p. (To simplify the presentation we do not show them here. Similar equations for the ϕ^3 theory can be found in [3], [10].) If k_p is sufficiently small it relaxes to zero [15] and the problem is reduced to the solution of (13).

Now if the initial value of n_p after the rotation to the out-Jost-harmonics is much smaller than 1 we can use the following approximations:

(1 + n_{pη})n_{l1} n_{l2} (1 + n_{|⃗l1+⃗l2|}) − n_{pη}(1 + n_{l1} )(1 + n_{l2} )n_{|⃗l1+⃗l2|} ≈ 0 (1 + n_{pη})n_{l1} (1 + n_{l2} )(1 + n_{|⃗l1−⃗l2|}) − n_{pη}(1 + n_{l1} )n_{l2} n_{|⃗l1−⃗l2|} ≈ n_{l1} (1 + n_{pη})n_{l1} n_{l2} n_{|⃗l1+⃗l2|} − n_{pη}(1 + n_{l1} )(1 + n_{l2} )(1 + n_{|⃗l1+⃗l2|}) ≈ −n_{pη} (1 + n_{pη})(1 + n_{l1} )(1 + n_{l2} )(1 + n_{|⃗l1+⃗l2|}) − n_{pη}n_{l1} n_{l2} n_{|⃗l1+⃗l2|} ≈ 1. (14)

Because of the rapid oscillations of h(x) as x → ∞ the integrals on the RHS of (13) are saturated at l_i ∼ μ. At the same time pη ≪ μ. Furthermore it is natural to assume that n_{li∼1} ≪ n_{pη} in the situation of the very small initial density perturbation and the vanishing production of the high momentum modes. Hence, we can neglect the second term on the RHS of (13) in comparison with the third and the fourth ones.

As the result (13) is reduced to: dn_{pη} d log(pη) ≈ Γ_1 n_{pη} − Γ_2, where

Γ_1 = λ^2 |A|^2 6 ∫ d^{D−1}l_1 (2π)^{D−1} d^{D−1}l_2 (2π)^{D−1} ∫_0 ∞ dv v^{D−2} × ×Re [ v^{iμ} h^∗(l_1)h^∗(l_2)h^∗ (| |⃗l1 + ⃗l2 | |) h(l_1v)h(l_2v)h ( | |⃗l_1 + ⃗l_2 | | v)] , Γ_2 = λ^2 |A|^2 6 ∫ d^{D−1}l_1 (2π)^{D−1} d^{D−1}l_2 (2π)^{D−1} ∫_0 ∞ dv v^{D−2} × ×Re [ v^{iμ} h(l_1)h(l_2)h (| |⃗l1 + ⃗l2 | |) h_∗(l_1v)h_∗(l_2v)h_∗ ( | |⃗l_1 + ⃗l_2 | | v)] . (15) Here Γ_1 and Γ_2 are the particle decay and production rates, correspondingly. Note that pη is reducing to zero in the approach towards the future infinity.

The obtained equation (15) has the solution with the flat stationary point distribution n_{pη} = Γ_2/Γ_1, which corresponds to the situation when the production (gain) of particles on the level pη is equilibrated by the particle decay (loss) from the same level. Note that here we are talking about the number density per comoving volume, which would stay constant if there were no particle decay and production processes.

The obtained solution is self-consistent for the large enough μ, because then Γ_2/Γ_1 ≈ e^{−3 πμ} ≪ 1. Note that the equilibrium distribution is n ≈ e^{−3πμ} and is not quite Gibbons- Hawking one. Apparently, it looks like the thermal Boltzmann one, but the temperature depends on the power of the selfinteraction potential. In fact, the stationary distribution in the ϕ^3 theory is n ≈ e^{−2πμ}.

So the result of the summation of the large IR contributions may lead to the finite exact two point functions. But what if the evolution had started with some quite strong density perturbation (which is, however, still smaller than the cosmological constant) over the BD vacuum state? Now we are going to show that there is another very peculiar solution of the kinetic equation under consideration. See [3], [10] for the similar discussion in the case of ϕ^3 theory.

Suppose that due to the particle creation by the background gravitational field and by the particle decays from the other levels the density per comoving volume on the given level with pη ≪ μ became big in comparison with 1. Taking into account the flatness of the spectrum in dS space, it is natural to expect that for the harmonics with the low physical momenta the density very slowly depends on its argument. Hence, we can assume that n(pη) ≈ n(q_{1,2,3}η) for pη ≪ μ and q_{1,2,3}η ≪ μ. Then, we can make the following approximations:

(1 + n_{pη})n_{l1} n_{l2} (1 + n_{l3} ) − n_{pη}(1 + n_{l1} )(1 + n_{l2} )n_{l3} ≈ 0 (1 + n_{pη})n_{l1} (1 + n_{l2} )(1 + n_{l3} ) − n_{pη}(1 + n_{l1} )n_{l2} n_{l3} ≈ 2 n^3_{pη} (1 + n_{pη})n_{l1} n_{l2} n_{l3} − n_{pη}(1 + n_{l1} )(1 + n_{l2} )(1 + n_{l3} ) ≈ −2 n^3_{pη} (1 + n_{pη})(1 + n_{l1} )(1 + n_{l2} )(1 + n_{l3} ) − n_{pη}n_{l1} n_{l2} n_{l3} ≈ 4 n^3_{pη} (16)

and accept that on the RHS of (13) the main contribution to the l_i integrals comes form the region where l_i ≪ μ, because n(x) ≫ n(y) if x ≪ μ and y ≫ μ. As the result the kinetic equation reduces to:

dn_{pη} d log(pη) ≈ −Γ̄ n^3_{pη}, where

Γ̄ = λ^2 |A|^2 3 ∫_{|l1|<μ} d^{D−1}l_1 (2π)^{D−1} ∫_{|l2|<μ} d^{D−1}l_2 (2π)^{D−1} ∫_0 ∞ dv v^{D−2} { 3 |A|^2 ARe v l_2 | |⃗l_1 − ⃗l_2 | | l_1 iμ h(l_1v)h^∗(l_2v)h^∗ (| |⃗l1 − ⃗l2 | | | v )

− (A^∗)^3 Re v l_1 l_2 | | |⃗l1 + ⃗l2 | | | iμ h(l_1v)h(l_2v)h (| |⃗l1 + ⃗l2 | | v)

+2 A^3 Re [( v l_1 l_2 | |⃗l_1 + ⃗l_2 | |)^{iμ} h_∗(l_1v)h_∗(l_2v)h_∗ ( | |⃗l_1 + ⃗l_2 | | v) ]} . (17)

Note that Γ̄ is independent of p. This equation has the solution:

n_{pη} ≈ 1 √ 2 Γ̄ log (η/η_⋆)

, (18)

where η_⋆ =^μ_p e^{− C}2^¯Γ and C is the integration constant, which depends on the initial conditions. The obtained solution is valid if μ/p = η_∗ > η > η_⋆.

Thus, we see that there is a singular solution of the kinetic equation under consideration, which corresponds to the explosion of the particle number density per comoving volume within a finite proper time. Of course such an explosion wins against the expansion of the PP, because D^K ∝ η^{D−1}/ √ log η/η_⋆. Hence, the energy-momentum tensor of the created particles becomes huge and the backreaction has to be taken into account. As the result the dS space gets modified. But that is the problem for a separate study. At this point we just would like to stress that we see catastrophic IR effects even for the massive fields. It is natural to expect that for the light fields the situation will be even more drammatic.

6 Comments on the contracting PP and global dS (instead of Conclusions)

Contracting PP of dS space is interesting at least because it is complementary to the expanding PP within global dS space and we find it quite dangerous to study such a geodesicaly incomplete subspace as PP alone. Contracting PP is represented by the same metric, ds^2 =^1_η [dη^2 − d⃗x^2], as the expanding one, but now the conformal time η flows in the proper direction — from zero, at the past, to infinity, in the future.

From (13) one can straightforwardly obtain the kinetic equation in the contracting PP, if he will consider perfectly spatially homogeneous states. The latter situation while being stable in the expanding PP, is unstable in the contracting one under small inhomogeneous density perturbations. However, it is still instructive to consider such an ideal situation in the contracting PP^‖. In this section we restrict ourselves to the case of the principal series.

To perform the map between the expanding and contracting PPs both in the few loop calculations and in the kinetic equation one just has to flip the limits of dη integrations and change h(x) and h^∗(x), because of the exchange between positive and negative energy states under the flip of time.

Then, it is straightforward to see that loop corrections to D^K have the explicit IR divergence because particle creation starts right at the moment η_0, when we switch on selfinteractions. The divergence reveals itself via the impossibility to move the η_0 to the past infinity. Due to the blue shifting of all modes, however, all the relevant kinetic processes stop after η_∗ ∼ μ/p. As the result the two loop divergence in question is proportional to log(η/η_0), when pη ≪ μ and to log(μ/pη_0), when pη ≫ μ. The prefactors are easily derivable, in view of the above discussion. Also it is straightforward to show that for the in-Jost-harmonics (Bessel functions in place of h’s) of the contracting PP the k_p behaves similarly to that of the out-Jost-harmonics of the expanding PP.

In conclusion, in the contracting PP we can find similar solutions of the kinetic equation to those, which have been found in the previous section. E.g. eq. (15) is mapped to dn(η) d log(η/η_0)

≈ −Γ_1 n(η) + Γ_2, (19)

which shows a very peculiar phenomenon that despite that in two loops η_0 — the moment of switching on selfinteractions — cannot be taken to the past infinity, after the summation of all loops we may find the theory at the stationary point state, n_p = Γ_2/Γ_1, which allows one to remove the IR cutoff, η_0.

At the same time the solution (18) is mapped to:

n_p(η) ≈ 1 √ 2 Γ̄ log (η_⋆/η)

, (20)

where η_⋆ = η_0 e^{C/2Γ̄} < μ/p. Of course whether the field theory state goes into (20) or to (19) depends on the initial conditions.

The situation in the global dS space is even more interesting. On the one hand all sorts of contributions to the collision integral in global dS space are sums of those in expanding and contracting PPs^{∗∗}. But depending on the choice of harmonics we either have IR divergence in k_p, or k_p is divergent as the system advances towards the future infinity. Or even more generic situation for α-vacua is when k_p has both types of such divergences simultaneously. As the result there is no any choice of harmonics in which k_p is negligible in comparison with n_p, which probably means that there is no any stationary state in global dS and the backreaction on the background geometry is strong with any initial conditions.

‖Actually it is not very hard to find the inhomogeneous extension of the kinetic equation (13). In the case when the particle density starts to depend on the spatial position n_p = n_p(x) one has to substitute η d/dη on the LHS of (13) by η ∂_η + η^2⃗p ⃗∂_x.

∗∗For the case of the Euclidian vacuum the relative signs of the two contributions coming from the expanding and contracting PPs can be different depending on whether D is even or odd [9]. But that does not conceptually affect our discussion.

7 Acknowledgements

We would like to acknowledge discussions with A.Sadofyev, Ph.Burda and A.Morozov. This work was done under the partial financial support of the Ministry of Education and Science of Russian Federation under the contract 8207. The work of VS and FP was partially supported by the grant ”Leading Scientific Schools” No. NSh-3349.2012.2. The work of VS was partially supported by the grant RFBR 11-02-01220. The work of ETA was partially supported by the grant ”Leading Scientific Schools” No. NSh-6260.2010.2 and by RFBR-11-02-01227-a.

References

[1] D. Krotov and A. M. Polyakov, Nucl. Phys. B 849, 410 (2011) [arXiv:1012.2107 [hep-th]].

[2] D. P. Jatkar, L. Leblond and A. Rajaraman, Phys. Rev. D 85, 024047 (2012) [arXiv:1107.3513 [hep-th]].

[3] E. T. Akhmedov, JHEP 1201, 066 (2012) [arXiv:1110.2257 [hep-th]].

[4] T. Prokopec, N. C. Tsamis and R. P. Woodard, Phys. Rev. D 78, 043523 (2008) [arXiv:0802.3673 [gr-qc]];

T. Prokopec, N. C. Tsamis and R. P. Woodard, Annals Phys. 323, 1324 (2008) [arXiv:0707.0847 [gr-qc]];

E. O. Kahya and R. P. Woodard, Phys. Rev. D 74, 084012 (2006) [gr-qc/0608049]; R. P. Woodard, J. Phys. Conf. Ser. 68, 012032 (2007) [gr-qc/0608037]; T. Prokopec, N. C. Tsamis and R. P. Woodard, Class. Quant. Grav. 24, 201 (2007) [gr-qc/0607094];

S. -P. Miao and R. P. Woodard, Phys. Rev. D 74, 044019 (2006) [gr-qc/0602110]; S. -P. Miao and R. P. Woodard, Class. Quant. Grav. 23, 1721 (2006) [gr-qc/0511140]; N. C. Tsamis and R. P. Woodard, Nucl. Phys. B 724, 295 (2005) [gr-qc/0505115]; R. P. Woodard, Nucl. Phys. Proc. Suppl. 148, 108 (2005) [astro-ph/0502556]; N. C. Tsamis and R. P. Woodard, Nucl. Phys. B 474, 235 (1996) [hep-ph/9602315]; N. C. Tsamis and R. P. Woodard, Annals Phys. 253, 1 (1997) [hep-ph/9602316]; N. C. Tsamis and R. P. Woodard, Class. Quant. Grav. 11, 2969 (1994).

[5] T. Brunier, V. K. Onemli and R. P. Woodard, Class. Quant. Grav. 22, 59 (2005) [gr-qc/0408080];

E. O. Kahya and V. K. Onemli, Phys. Rev. D 76, 043512 (2007) [gr-qc/0612026]; V. K. Onemli and R. P. Woodard, Class. Quant. Grav. 19, 4607 (2002) [gr-qc/0204065]; V. K. Onemli and R. P. Woodard, Phys. Rev. D 70, 107301 (2004) [gr-qc/0406098]; E. O. Kahya, V. K. Onemli and R. P. Woodard, Phys. Rev. D 81, 023508 (2010) [arXiv:0904.4811 [gr-qc]].

[6] A. D. Dolgov, M. B. Einhorn and V. I. Zakharov, Phys. Rev. D 52, 717 (1995) [arXiv:gr-qc/9403056].

[7] I. Antoniadis, P. O. Mazur and E. Mottola, New J. Phys. 9, 11 (2007) [arXiv:gr-qc/0612068];

E. Mottola, Phys. Rev. D 33, 1616 (1986); E. Mottola, Phys. Rev. D 33, 2136 (1986).

[8] W. Xue, X. Gao and R. Brandenberger, arXiv:1201.0768 [hep-th];

W. Xue, K. Dasgupta, R. Brandenberger, Phys. Rev. D83, 083520 (2011). [arXiv:1103.0285 [hep-th]];

R. Brandenberger and J. Martin, arXiv:1211.6753 [astro-ph.CO].

[9] A. M. Polyakov, arXiv:1209.4135 [hep-th].

[10] E. T. Akhmedov, arXiv:1209.4448 [hep-th].

[11] E. T. Akhmedov and P. V. Buividovich, Phys. Rev. D 78, 104005 (2008) [arXiv:0808.4106 [hep-th]];

E. T. Akhmedov, P. V. Buividovich and D. A. Singleton, Phys. Atom. Nucl. 75, 525 (2012) [arXiv:0905.2742 [gr-qc]];

E. T. Akhmedov, A. Roura, A. Sadofyev and , Phys. Rev. D 82, 044035 (2010) [arXiv:1006.3274 [gr-qc]].

[12] E. T. Akhmedov, A. V. Sadofyev and , Phys. Lett. B 712, 138 (2012) [arXiv:1201.3471 [hep-th]].

[13] D. Marolf, I. A. Morrison and M. Srednicki, arXiv:1209.6039 [hep-th]. See also D. Marolf and I. A. Morrison, arXiv:1006.0035 [gr-qc]; D. Marolf, I. A. Morrison, [arXiv:1104.4343 [gr-qc]];

A. Higuchi, D. Marolf, I. A. Morrison, Phys. Rev. D83, 084029 (2011). [arXiv:1012.3415 [gr-qc]];

D. Marolf, I. A. Morrison, [arXiv:1010.5327 [gr-qc]].

[14] S. Hollands, Commun. Math. Phys. 319, 1 (2013) [arXiv:1010.5367 [gr-qc]];

S. Hollands, Annales Henri Poincare 13, 1039 (2012) [arXiv:1105.1996 [gr-qc]].

[15] E. T. Akhmedov and P. .Burda, Phys. Rev. D 86, 044031 (2012) [arXiv:1202.1202 [hep-th]].

[16] E. T. Akhmedov, D. Singleton and , Pisma Zh. Eksp. Teor. Fiz. 86, 702 (2007) [arXiv:0705.2525 [hep-th]];

E. T. Akhmedov, D. Singleton and , Int. J. Mod. Phys. A 22, 4797 (2007) [hep-ph/0610391].

[17] N. Myrhvold, Phys. Rev. D 28 2439 (1983).

[18] D. Boyanovsky, H. J. de Vega and N. G. Sanchez, Phys. Rev. D 71, 023509 (2005) [arXiv:astro-ph/0409406];

D. Boyanovsky and H. J. de Vega, Phys. Rev. D 70, 063508 (2004) [arXiv:astro-ph/0406287];

D. Boyanovsky, Phys. Rev. D 85, 123525 (2012) [arXiv:1203.3903 [hep-ph]]; D. Boyanovsky, Phys. Rev. D 86, 023509 (2012) [arXiv:1205.3761 [astro-ph.CO]].

[19] J. Bros, H. Epstein, M. Gaudin, U. Moschella and V. Pasquier, “Triangular invariants, three-point functions and particle stability on the de Sitter universe,” Commun. Math. Phys. 295, 261 (2010) [arXiv:0901.4223 [hep-th]];

J. Bros, H. Epstein and U. Moschella, “Particle decays and stability on the de Sitter universe,” arXiv:0812.3513 [hep-th];

J. Bros, H. Epstein and U. Moschella, “Lifetime of a massive particle in a de Sitter universe,” JCAP 0802, 003 (2008) [arXiv:hep-th/0612184].

[20] G. E. Volovik, [arXiv:gr-qc/0803.3367]; JETP Lett. 90, 1 (2009) [arXiv:gr-qc/0905.4639]. [21] E. Mottola, Phys. Rev. D 31, 754 (1985). [22] B. Allen, Phys. Rev. D 32, 3136 (1985).

[23] M. van der Meulen and J. Smit, JCAP 0711, 023 (2007) [arXiv:0707.0842 [hep-th]]. [24] L. D. Landau and E. M. Lifshitz, Vol. 10 (Pergamon Press, Oxford, 1975). Chapter on the non-stationary diagrammatic technique.