arXiv:hep-th/0201032 v1 6 Jan 2002

UPR-976T

Lectures on Heterotic M-Theory

Burt A. Ovrut

Department of Physics, University of Pennsylvania Philadelphia, PA 19104–6396, USA

January 6, 2002

Abstract

We present three lectures on heterotic M-theory and a fourth lecture extending this theory to more general orbifolds. In Lecture 1, Hořava-Witten theory is briefly discussed. We then compactify this theory on Calabi-Yau threefolds, choosing the “standard” embedding of the spin connection in the gauge connection. We derive, in detail, both the five-dimensional effective action and the associated actions of the four-dimensional “end-of-the-world” branes. Lecture 2 is devoted to showing that this theory naturally admits static, N = 1 supersymmetry preserving BPS threebranes, the minimal vacuum having two such branes. One of these, the “visible” brane, is shown to support a three-generation E_6 grand unified theory, whereas the other emerges as the “hidden” brane with unbroken E_8 gauge group. Thus heterotic M-theory emerges as a fundamental paradigm for so-called “brane world” scenarios of particle physics. In Lecture 3 , we introduce the concept of “non-standard” embeddings. These are shown to permit a vast generalization of allowed vacua, leading on the visible brane to new grand unified theories, such as SO(10) and SU(5), and to the standard model SU(3)_C × SU(2)_L × U(1)_Y . It is demonstrated that non-standard embeddings generically imply the existence of five-branes in the bulk space. The physical properties of these bulk branes is discussed in detail. Finally, in Lecture 4 we move beyond Hořava- Witten theory and consider orbifolds larger than S^1/Z_2. For explicitness, we consider 1

M-theory orbifolds on S^1/Z_2 ×T^4/Z_2, discussing their anomaly structure in detail and completely determining both the untwisted and twisted sector spectra.

1 Lecture 1: The Five-Dimensional Effective Theory

In this first lecture, we introduce our notation and briefly discuss the theory of the strongly coupled heterotic sting introduced by Hořava and Witten. In this theory, there is an elevendimensional bulk space bounded on either end of the x^{11}-direction by two “end-of-the-world” ten-dimensional nine-branes, each supporting an N = 1, E_8 supergauge theory. We then begin our construction of heterotic M-theory by compactifying the Hořava-Witten theory on a Calabi-Yau threefold. This leads to a five-dimesional bulk space bounded at the ends of the fifth dimesion by two end-of-the-world four-dimensional three-branes. Assuming, in this lecture, the “standard” embedding of the spin connection into one of the E_8 gauge connections we derive, in detail, both the five-dimensional bulk space effective action and the associated actions of the four-dimensional boundary branes. We end this lecture by discussing some of the properties of this effective theory and explicitly giving the N = 2 supersymmetry transformations of the bulk space quantum fields.

We begin by briefly reviewing the description of strongly coupled heterotic string theory as 11-dimensional supergravity with boundaries, as given by Hořava and Witten [1, 2]. Our conventions are as follows. We will consider eleven-dimensional spacetime compactified on a Calabi-Yau space X, with the subsequent reduction down to four dimensions effectively provided by a double-domain-wall background, corresponding to an S^1/Z_2 orbifold. We use coordinates x^I with indices I, J, K, · · · = 0, · · · , 9, 11 to parameterize the full 11–dimensional space M_{11}. Throughout these lectures, when we refer to orbifolds, we will work in the “upstairs” picture with the orbifold S^1/Z_2 in the x^{11}–direction. We choose the range x^{11} ∈ [−πρ, πρ] with the endpoints being identified. The Z_2 orbifold symmetry acts as x^{11} → −x^{11}. Then there exist two ten–dimensional hyperplanes fixed under the Z_2 symmetry which we denote by M^{(i)}_{10} , i = 1, 2. Locally, they are specified by the conditions x^{11} = 0, πρ. Barred indices Ī, J̄, K̄, · · · = 0, · · · , 9 are used for the ten–dimensional space orthogonal to the orbifold. We use indices A, B, C, · · · = 4, · · · 9 for the Calabi–Yau space. All fields will be required to have a definite behaviour under the Z_2 orbifold symmetry in D = 11. We demand a bosonic field Φ to be even or odd; that is, Φ(x^{11}) = ±Φ(−x^{11}). For a spinor Ψ the condition is Γ_{11}Ψ(−x^{11}) = Ψ(x^{11}) so that the projection to one of the orbifold planes leads to a ten–dimensional Majorana–Weyl spinor with positive chirality. Spinors in eleven dimensions will be Majorana spinors with 32 real components throughout the paper.

The bosonic part of the action is of the form

S = S_{SG} + S_{YM} (1.1) where S_{SG} is the familiar 11–dimensional supergravity

S_{SG} = − 1 2κ^2 ∫ M^{11} √ −g [ R + 1 24 G_{IJKL}G^{IJKL} + √ 2 1728 ϵ^{I1...I11} C_{I1 I2I3} G_{I4 ...I7} G_{I8 ...I11} ] (1.2)

and S_{YM} are the two E_8 Yang–Mills theories on the orbifold planes explicitly given by

S_{YM} = − 1 8πκ^2 ( κ 4π )_{2/3} ∫

M^{(1)}_{10} √ −g { tr(F^{(1)})^2 − 1 2 trR^2 }

− 1 8πκ^2 ( κ 4π )_{2/3} ∫

M^{(2)}_{10} √ −g { tr(F^{(2)})^2 − 1 2 trR^2 } . (1.3)

Here F^{(i)}_{ĪJ̄} are the two E_8 gauge field strengths and C_{IJK} is the 3–form with field strength G_{IJKL} = 24 ∂_{[I} C_{JKL]}. In order for the above theory to be supersymmetric and anomaly free, the Bianchi identity for G should be modified such that

(dG)_{11}¯_I¯_J¯_K¯_L = −4 √ 2π ( κ 4π )_{2/3} {

J^{(1)}δ(x^{11}) + J^{(2)}δ(x^{11} − πρ) } ĪJ̄K̄L̄ (1.4)

where the sources are given by

J^{(i)} = 1 16π^2 ( trF^{(i)} ∧ F^{(i)} − 1 2 trR ∧ R ) . (1.5)

Under the Z_2 orbifold symmetry, the field components g¯_I¯_J , g_{11,11}, C¯_I¯_{J11} are even, while g¯_{I11}, C¯_I¯_J¯_K are odd.

The modification of the right hand side of equation (1.4) has important consequences. While the standard embedding of the spin connection of the Calabi–Yau threefold into the gauge connection

trF^{(1)} ∧ F^{(1)} = trR ∧ R (1.6)

leads to vanishing source terms in the weakly coupled heterotic string Bianchi identity (which, in turn, allows one to set the antisymmetric tensor gauge field to zero), in the present case, one is left with non–zero sources ±trR ∧ R on the two hyperplanes. This follows from the fact that the sources in the Bianchi identity (1.4) are located on the orbifold planes with the gravitational part distributed equally between the two planes. The consequence is that not all components of the antisymmetric tensor field G can vanish. We find, for the standard embedding (1.6), that all components of G vanish with the exception of G_{ABCD} = − 1 6 α ϵ_{ABCD}^{EF} ω_{EF} ϵ(x^{11}) (1.7) where α = 1 8 √ 2πv^{2/3} ( κ 4π )_{2/3} ∫ C_ω trR ∧ R. (1.8)

Here ϵ(x^{11}) is the step function which is +1 (−1) for x^{11} positive (negative) and v = ∫ X √ Ω (1.9)

where Ω_{AB} is a fixed Calabi–Yau metric and v is the associated volume of the Calabi–Yau threefold. The two–form ω_{AB} is the Kähler form associated with Ω_{AB} (that is, ω_a¯_b = iΩ_a¯_b where a and b̄ are holomorphic and anti-holomorphic indices) and C_ω is the Poincare dual four-cycle of ω. Furthermore, in deriving this result, we have turned off all Calabi–Yau moduli with the exception of the radial breathing mode. This will be sufficient for all applications dealing with the universal moduli.

Phenomenologically, there is a regime where the universe appears five-dimensional. We would, therefore, like to derive an effective theory in the space consisting of the usual four space-time dimensions and the orbifold. We will, for simplicity, consider the universal zero modes only; that is, the five–dimensional graviton supermultiplet and the breathing mode of the Calabi–Yau space, along with its superpartners. These form a hypermultiplet in five dimensions. Furthermore, to keep the discussion as straightforward as possible, we will not consider boundary gauge matter fields. This simple framework suffices to illustrate our main ideas and was presented as such in [3]. The general case was presented in [4]. Our fivedimensional conventions are the following. Upon reduction on the Calabi-Yau space we have a five-dimensional spacetime M_5 labeled by indices α, β, γ, · · · = 0, · · · , 3, 11. The orbifold fixed planes become four-dimensional with indices μ, ν, ρ, · · · = 0, · · · , 3. The 11-dimensional Dirac–matrices Γ^I with {Γ^I , Γ^J } = 2g^{IJ} are decomposed as Γ^I = {γ^α ⊗ λ, 1 ⊗ λ^A} where γ^α and λ^A are the five– and six–dimensional Dirac matrices, respectively. Here, λ is the chiral projection matrix in six dimensions with λ^2 = 1. In five dimensions we use symplectic-real spinors [5] ψ^i where i = 1, 2 is an SU(2) index, corresponding to the automorphism group of the N = 1 supersymmetry algebra in five dimensions. We will follow the conventions given in [6].

We can perform the Kaluza-Klein reduction on the metric

ds^2_{11} = V^{−2/3}g_{αβ} dx^αdx^β + V^{1/3}Ω_{AB} dx^Adx^B . (1.10)

Since the compactification is on a Calabi–Yau manifold, the background corresponding to metric (1.10) preserves eight supercharges, the appropriate number for a reduction down to five dimensions. It might appear that we are simply performing a standard reduction of 11–dimensional supergravity on a Calabi–Yau space to five dimensions; for example, in the way described in ref. [7]. There are, however, two important ingredients that we have not yet included. One is obviously the existence of the boundary theories. We will return to this point shortly. First, however, let us explain a somewhat unconventional addition to the bulk theory that must be included.

Specifically, for the nonvanishing component G_{ABCD} in eq. (1.7) there is no corresponding zero mode field^1. Therefore, in the reduction, we should take this part of G explicitly into account. In the terminology of ref. [8], such an antisymmetric tensor field configuration is called a “non–zero mode”. A more recent name for such a field configuration is a nonvanishing “G–flux”. More generally, a non–zero mode is a background antisymmetric tensor field that solves the equations of motion but, unlike antisymmetric tensor field moduli, has nonvanishing field strength. Such configurations, for a p–form field strength, can be identified with the cohomology group H^p(M) of the manifold M and, in particular, exist if this cohomology group is nontrivial. In the case under consideration, the relevant cohomology group is H^4(X) which is nontrivial for a Calabi–Yau manifold X since h^{2,2} = h^{1,1} ≥ 1. Again, the form of G_{ABCD} in eq. (1.7) is somewhat special, reflecting the fact that we are concentrating here on the universal moduli. In the general case, G_{ABCD} would be a linear combination of all harmonic (2, 2)–forms.

The complete configuration for the antisymmetric tensor field that we use in the reduction is given by C_{αβγ} , G_{αβγδ} = 24 ∂_{[α}C_{βγδ]} C_{αAB} = 1 6 A_αω_{AB} , G_{αβAB} = F_{αβ}ω_{AB} , F_{αβ} = ∂_αA_β − ∂_β A_α (1.11) C_{ABC} = 1 6 ξω_{ABC} , G_{αABC} = ∂_αξω_{ABC} and the non–zero mode is G_{ABCD} = − α 6 ϵ_{ABCD}^{EF} ω_{EF} ϵ(x^{11}) , (1.12)

where α was defined in eq. (1.8). Here, ω_{ABC} is the harmonic (3, 0) form on the Calabi–Yau space and ξ is the corresponding (complex) scalar zero mode. In addition, we have a five-

1This can be seen from the mixed part of the Bianchi identity ∂_αG_{ABCD} = 0 which shows that the constant α in eq. (1.7) cannot be promoted as stands to a five–dimensional field. It is possible to dualize in five dimensions so the constant α is promoted to a five-form field, but we will not pursue this formulation here.

dimensional vector field A_α and 3–form C_{αβγ}, which can be dualized to a scalar σ. The total bulk field content of the five–dimensional theory is then given by the gravity multiplet (g_{αβ}, A_α, ψ^i_α) (1.13) together with the universal hypermultiplet (V, σ, ξ, ξ̄, ζ^i). (1.14) Here ψ^i_α and ζ^i are the gravitini and the hypermultiplet fermions respectively and i = 1, 2 since they each form a doublet under the SU(2) automorphism group of N = 2 supersymmetry in five dimesnions. ¿From their relations to the 11–dimensional fields, it is easy to see that g_{μν} , g_{11,11}, A_{11}, σ must be even under the Z_2 action whereas g_{μ11}, A_μ, ξ must be odd.

Examples of compactifications with non–zero modes in pure 11–dimensional supergravity on various manifolds including Calabi–Yau three–folds have been studied in ref. [9]. There is, however, one important way in which our non–zero mode differs from other non–zero modes in pure 11–dimensional supergravity. Whereas the latter may be viewed as an optional feature of generalized Kaluza-Klein reduction, the non–zero mode in Hořava–Witten theory that we have identified cannot be turned off. This can be seen from the fact that the constant α in expression (1.12) cannot be set to zero, unlike the case in pure 11–dimensional supergravity where it would be arbitrary, since it is fixed by eq. (1.8) in terms of Calabi–Yau data. This fact is, of course, intimately related to the existence of the boundary source terms, particularly in the Bianchi identity (1.4).

Let us now turn to a discussion of the boundary theories. In the five–dimensional space M_5 of the reduced theory, the orbifold fixed planes constitute four–dimensional hypersurfaces which we denote by M^{(i)}_4 , i = 1, 2. Clearly, since we have used the standard embedding, there will be an E_6 gauge field A^{(1)}μ accompanied by gauginos and gauge matter fields on the orbifold plane M^{(1)}_4 . For simplicity, we will set these gauge matter fields to zero in the following. The field content of the orbifold plane M^{(2)}_4 consists of an E_8 gauge field A^{(2)}_μ and the corresponding gauginos. In addition, there is another important boundary effect which results from the non–zero internal gauge field and gravity curvatures. More precisely, for the standard embedding defined in (1.6) ∫ X √_6 g trF^{(1)}_{AB} F^{(1)AB} = ∫ X √_6 g trR_{AB} R^{AB} = 16 √ 2πv ( 4π κ )_{2/3} α , F^{(2)}_{AB} = 0 . (1.15)

In view of the boundary actions (1.3), it follows that we will retain cosmological type terms with opposite signs on the two boundaries. Note that the size of those terms is set by the same constant α, given by eq. (1.8), which determines the magnitude of the non–zero mode.

We can now compute the five–dimensional effective action of Hořava–Witten theory. Using the field configuration (1.10)–(1.15) we find from the action (1.1)–(1.3) that

S_5 = S_{grav} + S_{hyper} + S_{bound} (1.16)

where

S_{grav} = − 1 2κ^2_5 ∫ M_5 √ −g [ R + 3 2 F_{αβ}F^{αβ} + 1 √ 2 ϵ^{αβγδϵ}A_αF_{βγ}F_{δϵ} ] (1.17a)

S_{hyper} = − 1 2κ^2_5 ∫ M_5 √ −g [ 1 2 V^{−2}∂_αV ∂^αV + 2V^{−1}∂_αξ∂^αξ̄ + 1 24 V^2G_{αβγδ}G^{αβγδ} + √ 2 24 ϵ^{αβγδϵ}G_{αβγδ} ( i(ξ∂_ϵξ̄ − ξ̄∂_ϵξ) + 2αA_ϵ ) + 1 3 V^{−2}α^2 ] (1.17b)

S_{bound} = − 1 2κ^2_5 { 2 √ 2 ∫ M^{(1)}_4 √ −g V^{−1}α − 2 √ 2 ∫ M^{(2)}_4 √ −g V^{−1}α }

− 1 16πα_{GUT} 2∑ i=1 ∫ M^{(i)}_4 √ −g V trF^{(i)}_{μν}^2 . (1.17c)

In this expression, we have now dropped higher-derivative terms. The 4–form field strength G_{αβγδ} is subject to the Bianchi identity (dG)_{11μνρσ} = − 2 √ 2πκ^2_5 α_{GUT} { J^{(1)}δ(x^{11}) + J^{(2)}δ(x^{11} − πρ) } μνρσ (1.18) which follows directly from the 11–dimensional Bianchi identity (1.4). The currents J^{(i)} have been defined in eq. (1.5). The five–dimensional Newton constant κ_5 and the Yang– Mills coupling α_{GUT} are expressed in terms of 11–dimensional quantities as

κ^2_5 = κ^2 v , α_{GUT} = κ^2 2v ( 4π κ )_{2/3} . (1.19)

We have checked the consistency of the truncation which leads to the above action by an explicit reduction of the 11–dimensional equations of motion to five dimensions. Note that the potential terms in the bulk and on the boundaries arise precisely from the inclusion of the non–zero mode and the gauge and gravity field strengths, respectively. Since we have compactified on a Calabi–Yau space, we expect the bulk part of the above action to have eight preserved supercharges and, therefore, to correspond to minimal N = 1 supergravity in five dimensions. Accordingly, let us compare the result (1.17) to the known N = 1 supergravity–matter theories in five dimensions [6, 10, 11, 12].

In these theories, the scalar fields in the universal hypermultiplet parameterize a quaternionic manifold with coset structure M_Q = SU(2, 1)/SU(2) × U(1). Hence, to compare our action to these we should dualize the three–form C_{αβγ} to a scalar field σ by setting (in the bulk) G_{αβγδ} = 1 √ 2 V^{−2}ϵ_{αβγδϵ} ( ∂^ϵσ − i(ξ∂^ϵξ̄ − ξ̄∂^ϵξ) − 2αϵ(x^{11})A^ϵ ) . (1.20)

Then the hypermultiplet part of the action (1.17b) can be written as

S_{hyper} = − v 2κ^2 ∫ M_5 √ −g [ h_{uv} ∇_αq^u∇^αq^v + 1 3 V^{−2}α^2 ] (1.21)

where q^u = (V, σ, ξ, ξ̄). The covariant derivative ∇_α is defined as ∇_αq^u = ∂_αq^u −αϵ(x^{11})A_αk^u with k^u = (0, −2, 0, 0). The sigma model metric h_{uv} = ∂_u∂_vK_Q can be computed from the Kähler potential

K_Q = − ln(S + S̄ − 2CC̄) , S = V + ξξ̄ + iσ , C = ξ . (1.22)

Consequently, the hypermultiplet scalars q^u parameterize a Kähler manifold with metric h_{uv} . It can be demonstrated that k^u is a Killing vector on this manifold. Using the expressions given in ref. [13], one can show that this manifold is quaternionic with coset structure M_Q. Hence, the terms in eq. (1.21) that are independent of α describe the known form of the universal hypermultiplet action. How do we interpret the extra terms in the hypermultiplet action depending on α? A hint is provided by the fact that one of these α-dependent terms modifies the flat derivative in the kinetic energy to a generalized derivative ∇_α. This is exactly the combination that we would need if one wanted to gauge the U(1) symmetry on M_Q corresponding to the Killing vector k^u, using the gauge field A_α in the gravity supermultiplet. In fact, investigation of the other terms in the action, including the fermions, shows that the resulting five-dimensional theory is precisely a gauged form of supergravity. Not only is a U(1) isometry of M_Q gauged, but at the same time a U(1) subgroup of the SU(2) automorphism group is also gauged.

What about the remaining α-dependent potential term in the hypermultiplet action? From D = 4, N = 2 theories, we are used to the idea that gauging a symmetry of the quaternionic manifold describing hypermultiplets generically introduces potential terms into the action when supersymmetry is preserved (see for instance [14]). Such potential terms can be thought of as the generalization of pure Fayet-Iliopoulos terms. This is precisely what happens in our theory as well, with the gauging of the U(1) subgroup inducing the α-dependent potential term in (1.21). The general gauged action was discussed in detail in [4].

The phenomenon that the inclusion of non-zero modes leads to gauged supergravity theories has already been observed in type II Calabi-Yau compactifications [15, 16]. From the form of the Killing vector, we see that it is only the scalar field σ, dual to the 4–form G_{αβγδ}, which is charged under the U(1) symmetry. Its charge is fixed by α. We note that this charge is quantized since, suitably normalized, trR ∧ R is an element of H^{2,2}(X, Z).

To analyze the supersymmetry properties of the solutions shortly to be discussed, we need the supersymmetry variations of the fermions associated with the theory (1.16). They can be obtained either by a reduction of the 11–dimensional gravitino variation or by generalizing the known five–dimensional transformations [6, 12] by matching onto gauged four–dimensional N = 2 theories. It is sufficient for our purposes to keep the bosonic terms only. Both approaches lead to

δψ^i_α = D_αϵ^i + √ 2i 8 ( γ_α^{βγ} − 4δ^β_αγ^γ ) F_{βγ} ϵ^i − 1 2 V^{−1/2} ( ∂_αξ (τ_1 − iτ_2)^i_j − ∂_αξ̄ (τ_1 + iτ_2)^i_j ) ϵ^j − √ 2i 96 V ϵ_α^{βγδϵ}G_{βγδϵ}(τ_3)^i_j ϵ^j + √ 2 12 αV^{−1}ϵ(x^{11})γ_α(τ_3)^i_j ϵ^j

δζ^i = √ 2 48 V ϵ^{αβγδϵ}G_{αβγδ}γ_ϵϵ^i − i 2 V^{−1/2}γ^α ( ∂_αξ (τ_1 − iτ_2)^i_j + ∂_αξ̄ (τ_1 + iτ_2)^i_j ) ϵ^j (1.23) + i 2 V^{−1}γ_β ∂^βV ϵ^i + i √ 2 αV^{−1}ϵ(x^{11})(τ_3)^i_j ϵ^j

where τ_i are the Pauli spin matrices.

In summary, we see that the relevant five-dimensional effective theory for the reduction of Hořava-Witten theory is a gauged N = 1 supergravity theory with bulk and boundary potentials.

2 Lecture 2: The Domain Wall Solution and Generalizations

In the second lecture, we show that the effective five-dimensional bulk space theory does not have flat space for its static vacuum. Instead, the theory naturally admits static, N = 1 supersymmetry preserving BPS three-branes, the minmal vacuum consisting of two end-of-the-world three-branes. One of these branes, the one with the spin connection embedded in the gauge connection, supports a three generation E_6 grand unified theory and, hence, is called the “visible” or physical brane. The other brane is the “hidden” brane with an unbroken E_8 supergauge theory. Thus, heterotic M-theory emerges as a fundamental paradigm for so-called “brane world” scenarios of particle physics. In the second part of this lecture, we generalize the results of Lecture 1 to include, not just the universal hypermultiplet, but all (1,1)-moduli in the bulk space, as well as matter scalar multiplets on the boundary three-branes.

In order to re-construct the D = 4, N = 1 effective theory originally discussed in [17, 18, 19, 20, 21, 22, 23, 24, 25, 26, 27, 28, 29], we expect there to be a three–brane domain wall in five dimensions with a worldvolume lying in the four uncompactified directions. These solutions should break half the supersymmetry of the five–dimensional bulk theory and preserve Poincaré invariance in four dimensions.This domain wall can be viewed as the “vacuum” of the five–dimensional theory, in the sense that it provides the appropriate background for a reduction to the D = 4, N = 1 effective theory.

We notice that the theory (1.16) has all of the prerequisites necessary for such a three– brane solution to exist. Generally, in order to have a (D − 2)–brane in a D–dimensional theory, one needs to have a (D − 1)–form field or, equivalently, a cosmological constant. This is familiar from the eight–brane [30] in the massive type IIA supergravity in ten dimensions [31], and has been systematically studied for theories in arbitrary dimension obtained by generalized (Scherk-Schwarz) dimensional reduction [32]. In our case, this cosmological term is provided by the bulk potential term in the action (1.16). From the viewpoint of the bulk theory, we could have multi three–brane solutions with an arbitrary number of parallel branes located at various places in the x^{11} direction. As is well known, however, elementary brane solutions have singularities at the location of the branes, needing to be supported by source terms. The natural candidates for those source terms, in our case, are the boundary actions. Given the anomaly-cancellation requirements, this restricts the possible solutions to those representing a pair of parallel three–branes corresponding to the orbifold planes.

¿From the above discussion, it is clear that in order to find a three-brane solution, we should start with the Ansatz

ds^2_5 = a(y)^2dx^μdx^ν η_{μν} + b(y)^2dy^2 (2.1) V = V (y)

where a and b are functions of y = x^{11} and all other fields vanish. The general solution for this Ansatz, satisfying the equations of motion derived from action (1.16), is given by

a = a_0H^{1/2} b = b_0H^2 H = − √ 2 3 α|y| + c_0 (2.2) V = b_0H^3

where a_0, b_0 and c_0 are constants. We note that the boundary source terms have fixed the form of the harmonic function H in the above solution. Without specific information about the sources, the function H would generically be glued together from an arbitrary number of linear pieces with slopes ±^{√2}_3 α. The edges of each piece would then indicate the location of the source terms. The necessity of matching the boundary sources at y = 0 and πρ, however, has forced us to consider only two such linear pieces, namely y ∈ [0, πρ] and y ∈ [−πρ, 0]. These pieces are glued together at y = 0 and πρ (recall here that we have identified πρ and −πρ). Therefore, we have

∂^2_y H = − 2 √ 2 3 α(δ(y) − δ(y − πρ)) (2.3) which shows that the solution represents two parallel three–branes located at the orbifold planes. We stress that this solution solves the five–dimensional theory (1.16) exactly, and is valid to all orders in κ.

Of course, we still have to check that our solution preserves half of the supersymmetries. When g_{αβ} and V are the only non–zero fields, the supersymmetry transformations (1.23) simplify to

δψ^i_α = D_αϵ^i + √ 2 12 α ϵ(y)V^{−1}γ_α (τ_3)^i_j ϵ^j

δζ^i = i 2 V^{−1}γ_β ∂^βV ϵ^i + i √ 2 α ϵ(y)V^{−1} (τ_3)^i_j ϵ^j .

The Killing spinor equations δψ^i_α = 0, δζ^i = 0 are satisfied for the solution (2.2) if we require that the spinor ϵ^i is given by

ϵ^i = H^{1/4}ϵ^i_0 , γ_{11}ϵ^i_0 = (τ_3)^i_j ϵ^j_0 (2.4)

where ϵ^i_0 is a constant symplectic Majorana spinor. This shows that we have indeed found a BPS solution preserving four of the eight bulk supercharges.

Let us discuss the meaning of this solution in some detail. First, we notice that it fits into the general scheme of domain wall solutions in various dimensions. It is, however, a new solution to the gauged supergravity action (1.16) in five dimensions which has not been constructed previously. In addition, its source terms are naturally provided by the boundary actions resulting from Hořava–Witten theory. Most importantly, it constitutes the fundamental vacuum solution of a phenomenologically relevant theory. The two parallel three–branes of the solution, separated by the bulk, are oriented in the four uncompactified space–time dimensions, and carry the physical low–energy gauge and matter fields. Therefore, from the low–energy point of view where the orbifold is not resolved the three–brane worldvolume is identified with four–dimensional space–time. In this sense the Universe lives on the worldvolume of a three–brane.

Thus far, we have limited the discussion to the universal hypermultiplet only, coupled to N = 1 five–dimensional gauged supergravity. This result can be extended in a straighforward fashion to include all the (1, 1) moduli of the Calabi–Yau threefold. We will not, however, explicitly include the (2, 1) sector as it is largely unaffected by the specific structure of Hořava–Witten theory. We now explain the generalized structure of the zero mode fields used in the reduction to five dimensions. We begin with the bulk space. Including the zero modes, the metric is given by

ds^2 = V^{−2/3}g_{αβ} dx^αdx^β + g_{AB} dx^Adx^B (2.5)

where g_{AB} is the metric of the Calabi–Yau space X. Its Kähler form is defined by ω_a¯_b = ig_a¯_b and can be expanded in terms of the harmonic (1, 1)–forms ω_{iAB} , i = 1, · · · , h^{1,1} as

ω_{AB} = a^iω_{iAB} . (2.6)

The coefficients a^i = a^i(x^α) are the (1, 1) moduli of the Calabi–Yau space. The Calabi–Yau volume modulus V = V (x^α) is defined by V = 1 v ∫ X √_6 g (2.7)

where^6g is the determinant of the Calabi–Yau metric g_{AB} and v is defined in (1.9). The modulus V then measures the Calabi–Yau volume in units of v. The factor V^{−2/3} in eq. (2.5) has been chosen such that the metric g_{αβ} is the five–dimensional Einstein frame metric. Clearly V is not independent of the (1, 1) moduli a^i but it can be expressed as V = 1 6 K(a) , K(a) = d_{ijk} a^ia^j a^k (2.8)

where K(a) is the Kähler potential and d_{ijk} are the Calabi–Yau intersection numbers.

Let us now turn to the zero modes of the antisymmetric tensor field. We have the potentials and field strengths, C_{αβγ} , G_{αβγδ} C_{αAB} = 1 6 A^i_αω_{iAB} , G_{αβAB} = F^i_{αβ}ω_{iAB} (2.9) C_{abc} = 1 6 ξω_{abc} , G_{αabc} = X_αω_{abc} . The five–dimensional fields are therefore an antisymmetric tensor field C_{αβγ} with field strength G_{αβγδ}, h^{1,1} vector fields A^i_α with field strengths F^i_{αβ} and a complex scalar ξ with field strength X_α that arises from the harmonic (3, 0) form denoted by ω_{abc}. In the bulk the relations between those fields and their field strengths are simply G_{αβγδ} = 24 ∂_{[α}C_{βγδ]} F^i_{αβ} = ∂_αA^i_β − ∂_βA^i_α (2.10) X_α = ∂_αξ . These relations, however, will receive corrections from the boundary controlled by the 11– dimensional Bianchi identity (1.4). We will derive the associated five–dimensional Bianchi identities later.

Next, we should set up the structure of the boundary fields. The starting point is the standard embedding of the spin connection in the first E_8 gauge group such that

trF^{(1)} ∧ F^{(1)} = trR ∧ R . (2.11)

As a result, we have an E_6 gauge field A^{(1)}α with field strength F^{(1)}μν on the first hyperplane and an E_8 gauge field A^{(2)}μ with field strength F^{(2)}μν on the second hyperplane. In addition, there are h^{1,1} gauge matter fields from the (1, 1) sector on the first plane. They are specified by A^{(1)}_b = Ā_b + ω_{ib}^cT_{cp}C^{ip} (2.12)

where Ā_b is the (embedded) spin connection. Furthermore, p, q, r, . . . = 1, . . . , 27 are indices in the fundamental 27 representation of E_6 and T_{ap} are the (3, 27) generators of E_8 that arise in the decomposition under the subgroup SU(3) × E_6. Their complex conjugate is denoted by T^{ap}. The C^{ip} are h^{1,1} complex scalars in the 27 representation of E_6. Useful traces for these generators are tr(T_{ap}T^{bq}) = δ^b_aδ^q_p and tr(T_{ap}T_{bq}T_{cr}) = ω_{abc}f_{pqr} where f_{pqr} is the totally symmetric tensor that projects out the singlet in 27^3.

So far, what we have considered is similar to a reduction of pure 11–dimensional supergravity on a Calabi–Yau space, as for example performed in ref. [7], with the addition of gauge and gauge matter fields on the boundaries. An important difference arises, however, because the standard embedding (2.11), unlike in the case of the weakly coupled heterotic string, no longer leads to vanishing sources in the Bianchi identity (1.4). Instead, there is a net five-brane charge, with opposite sources on each fixed plane, proportional to ±trR ∧ R. The nontrivial components of the Bianchi identity (1.4) are given by (dG)_{11ABCD} = − 1 4 √ 2π ( κ 4π )_{2/3} { δ(x^{11}) − δ(x^{11} − πρ) } (trR ∧ R)_{ABCD} . (2.13)

As a result, the components G_{ABCD} of the antisymmetric tensor field are nonvanishing. We find that G_{ABCD} = − 1 4V α^i ϵ_{ABCD}^{EF} ω_{iEF} ϵ(x^{11}) (2.14)

where

α_i = 1 8 √ 2π ( κ 4π )_{2/3} 1 v^{2/3} ∫ C_i trR ∧ R . (2.15)

Here, the four–cycles C_i are the Poincare duals of the harmonic (1, 1)–forms ω_i. The index of the coefficient α^i in the second part of the first equation has been raised using the inverse of the metric

G_{ij} (a) = 1 2V ∫ X ω_i ∧ (∗ω_j ) (2.16)

on the (1, 1) moduli space. Note that, while the coefficients α_i with lowered index are truly constants, as is apparent from eq. (2.15), the coefficients α^i depend on the (1, 1) moduli a^i since the metric (2.16) does. We can derive an expression for the boundary trF^2 and trR^2 terms in the action essential for the reduction of the boundary theories. We have

trR_{AB} R^{AB} = trF^{(1)}_{AB}F^{(1)AB} = 4 √ 2π ( 4π κ )_{2/3} V^{−1}α^iω^{AB} ω_{iAB} (2.17)

while, of course

trF^{(2)}_{AB}F^{(2)AB} = 0 . (2.18)

The expression (2.14) for G_{ABCD} with α_i as defined in (2.15) is, as previously discussed, the new and somewhat unconventional ingredient in our reduction. This configuration for the antisymmetric tensor field strength is the generalized nonzero mode or G–flux. Generally, a nonzero mode is defined as a nonzero internal antisymmetric tensor field strength G that solves the equation of motion. In contrast, conventional zero modes of an antisymmetric tensor field, like those in eq. (2.10), have vanishing field strength once the moduli fields are set to constants. Since the kinetic term G^2 is positive for a nonzero mode it corresponds to a nonzero energy configuration. Given that nonzero modes, for a p–form field strength, satisfy

dG = d^∗G = 0 (2.19)

they correspond to harmonic forms of degree p. Hence, they can be identified with the pth cohomology group H^p(X) of the internal manifold X. In the present case, we are dealing with a four–form field strength on a Calabi–Yau threefold X so that the relevant cohomology group is H^4(X). The expression (2.14) is just an expansion of the nonzero mode in terms of the basis of H^4(X). The appearance of all harmonic (2, 2) forms shows that it is necessary to include the complete (1, 1) sector into the low energy effective action in order to fully describe the nonzero mode. On the other hand, harmonic (2, 1) forms do not appear here and are, hence, less important in our context. We stress that the nonzero mode (2.14), for a given Calabi–Yau space, specifies a fixed element in H^4(X) since the coefficients α_i are fixed in terms of Calabi–Yau properties. Thus we see that, correctly normalized, G is in the integer cohomology of the Calabi-Yau manifold. We emphasize that in heterotic M-theory, we are not free to turn off the non–zero mode. Its presence is simply dictated by the nonvanishing boundary sources.

Let us now summarize the field content which we have obtained above and discuss how it fits into the multiplets of five–dimensional N = 1 supergravity. We know that the gravitational multiplet should contain one vector field, the graviphoton. Thus, since the reduction leads to h^{1,1} vectors, we must have h^{1,1} − 1 vector multiplets. This leaves us with the h^{1,1} scalars a^i, the complex scalar ξ and the three-form C_{αβγ}. Since there is one scalar in each vector multiplet, we are left with three unaccounted for real scalars (one from the set of a^i, and ξ) and the three-form. Together, these fields form the “universal hypermultiplet;” universal because it is present independently of the particular form of the Calabi-Yau manifold. From this, it is clear that it must be the overall volume breathing mode V =^1_6 d_{ijk} a^ia^j a^k that is the additional scalar from the set of the a^i which enters the universal multiplet. The three-form may appear a little unusual, but recall that in five dimensions a three-form is dual to a scalar σ. Thus, the bosonic sector of the universal hypermultiplet consists of the four scalars (V, σ, ξ, ξ̄), as presented previously.

The h^{1,1} − 1 vector multiplet scalars are the remaining a^i. More properly, since the breathing mode V is already part of a hypermultiplet it should be first scaled out when defining the shape moduli

b^i = V^{−1/3}a^i . (2.20)

Note that the h^{1,1} moduli b^i represent only h^{1,1} − 1 independent degrees of freedom as they satisfy the constraint

K(b) ≡ d_{ijk} b^ib^j b^k = 6 . (2.21)

The graviton and graviphoton of the gravity multiplet are given by (g_{αβ}, 2 3 b_iA^i_α). (2.22)

Therefore, in total, the five dimensional bulk theory contains a gravity multiplet, the universal hypermultiplet and h^{1,1} − 1 vector multiplets. The inclusion of the (2, 1) sector of the Calabi–Yau space would lead to an additional h^{2,1} set of hypermultiplets in the theory. Since they will not play a prominent rôle in our context they will not be explicitly included in the following.

On the boundary M^{(1)}_4 we have an E_6 gauge multiplet (A^{(1)}μ , χ^{(1)}) and h^{1,1} chiral multiplets (C^{ip}, η^{ip}) in the fundamental 27 representation of E_6. Here C^{ip} denote the complex scalars and η^{ip} the chiral fermions. The other boundary, M^{(2)}_4 , carries an E_8 gauge multiplet (A^{(2)}μ , χ^{(2)}) only. Inclusion of the (2, 1) sector would add h^{2,1} chiral multiplets in the 27 representation of E_6 to the field content of the boundary M^{(1)}_4 . Any even bulk field will also survive on the boundary. Thus, in addition to the four–dimensional part of the metric, the scalars b^i together with A^i_{11}, and V and σ survive on the boundaries. These pair into h^{1,1} chiral muliplets.

We are now ready to derive the bosonic part of the five–dimensional effective action for the (1, 1) sector. Inserting the expressions for the various fields into the 11-dimensional supergravity action (1.1) and dropping higher derivative terms we find

S_5 = S_{grav,vec} + S_{hyper} + S_{bound} + S_{matter} (2.23) with

S_{grav,vec} = − 1 2κ^2_5 ∫ M_5 √ −g [ R + G_{ij} ∂_αb^i∂^αb^j + G_{ij} F^i_{αβ}F^{jαβ} + √ 2 12 ϵ^{αβγδϵ}d_{ijk} A^i_αF^j_{βγ}F^k_{δϵ} ] (2.24a)

S_{hyper} = − 1 2κ^2_5 ∫ M_5 √ −g [ 1 2 V^{−2}∂_αV ∂^αV + 2V^{−1}X_αX̄^α + 1 24 V^2G_{αβγδ}G^{αβγδ} + √ 2 24 ϵ^{αβγδϵ}G_{αβγδ} ( i(ξX̄_ϵ − ξ̄X_ϵ) − 2ϵ(x^{11})α_iA^i_ϵ )

+ 1 2 V^{−2}G^{ij} α_iα_j ] (2.24b)

S_{bound} = − √ 2 κ^2_5 ∫ M^{(1)}_4 √ −g V^{−1}α_ib^i + √ 2 κ^2_5 ∫ M^{(2)}_4 √ −g V^{−1}α_ib^i (2.24c)

S_{matter} = − 1 16πα_{GUT} 2∑ n=1 ∫ M^{(n)}_4 √ −g V trF^{(n)}_{μν}^2 − 1 2πα_{GUT} ∫ M^{(1)}_4 √ −g [ G_{ij} (D_μC)^i(D^μC̄)^j +V^{−1}G^{ij} ∂W ∂C^{ip} ∂W̄ ∂C̄^jp + D^{(u)}D^{(u)} ] . (2.24d)

All fields in this action that originate from the 11–dimensional antisymmetric tensor field are subject to a nontrivial Bianchi identity. Specifically, from eq. (1.4) we have (dG)_{11μνρσ} = − 2 √ 2πκ^2_5 α_{GUT} { J^{(1)}δ(x^{11}) + J^{(2)}δ(x^{11} − πρ) } μνρσ (2.25a) (dF^i)_{11μν} = − κ^2_5 4 √ 2πα_{GUT}

J^i_{μν} δ(x^{11}) (2.25b)

(dX)_{11μ} = − κ^2_5 4 √ 2πα_{GUT}

J_μδ(x^{11}) (2.25c)

with the currents defined by J^{(n)}_{μνρσ} = 1 16π^2 ( trF^{(n)} ∧ F^{(n)} − 1 2 trR ∧ R ) μνρσ (2.26a) J^i_{μν} = −2iV^{−1}Γ^i_{jk} ( (D_μC)^{jp}(D_νC̄)^k_p − (D_μC̄)^k_p(D_ν C)^{jp} ) (2.26b)

J_μ = − i 2 V^{−1}d_{ijk} f_{pqr}(D_μC)^{ip}C^{jq}C^{kr} . (2.26c) The five–dimensional Newton constant κ_5 and the Yang–Mills coupling α_{GUT} are expressed in terms of 11–dimensional quantities as

κ^2_5 = κ^2 v , α_{GUT} = κ^2 2v ( 4π κ )_{2/3} . (2.27)

We still need to define various quantities in the above action. The metric G_{ij} is given in terms of the Kähler potential K as G_{ij} = − 1 2 ∂ ∂b^i ∂ ∂b^j ln K . (2.28)

The corresponding connection Γ^i_{jk} is defined as

Γ^i_{jk} = 1 2 G^{il} ∂G_{jk} ∂b^l . (2.29)

We recall that

K = d_{ijk} b^ib^j b^k , (2.30)

where d_{ijk} are the Calabi–Yau intersection numbers. All indices i, j, k, · · · in the five– dimensional theory are raised and lowered with the metric G_{ij} . We recall that the fields b^i are subject to the constraint

K = 6 (2.31)

which should be taken into account when equations of motion are derived from the above action. Most conveniently, it can be implemented by adding a Lagrange multiplier term √ −gλ(K(b) − 6) to the bulk action. Furthermore, we need to define the superpotential W = 1 6 d_{ijk} f_{pqr}C^{ip}C^{jq}C^{kr} (2.32) and the D–term

D^{(u)} = G_{ij}C̄^j T^{(u)}C^i (2.33)

where T^{(u)}, u = 1, . . . , 78 are the E_6 generators in the fundamental representation. The consistency of the above theory has been explicitly checked by a reduction of the 11–dimensional equations of motion.

The most notable features of this action, at first sight, are the bulk and boundary potentials for the (1, 1) moduli V and b^i that appear in S_{hyper} and S_{bound}. Those potentials involve the five–brane charges α_i, defined by eq. (2.15), that characterize the nonzero mode. The bulk potential in the hypermultiplet part of the action arises directly from the kinetic term G^2 of the antisymmetric tensor field with the expression (2.14) for the nonzero mode inserted. It can therefore be interpreted as the energy contribution of the nonzero mode. The origin of the boundary potentials, on the other hand, can be directly seen from eq. (2.17) and the

10-dimensional boundary actions. Essentially, they arise because the standard embedding leads to nonvanishing internal boundary actions due to the crucial factor 1/2 in front of the trR^2 terms. This is in complete analogy with the appearance of nonvanishing sources in the internal part of the Bianchi identity which led us to introduce the nonzero mode. The action presented in (2.23) and (2.24) was first derived in [4].

3 Lecture 3: Bulk Five-Branes and Non-Standard Embeddings

In this third lecture, we begin by discussing the simplest BPS three-brane solution of the generalized five-dimensional heterotic M-theory presented in Lecture 2. We then commence a major extension of heterotic M-theory. Until now, we have employed the standard embedding of the spin connection of the Calabi-Yau threefold into the gauge connection of the visible brane. However, unlike the case of the weakly coupled heterotic string, there is nothing compelling about the standard embedding in heterotic M-theory. Quite the contrary, it is more natural to consider “non-standard” embeddings. Here, we will only briefly discuss such embeddings, referring the reader to the TASI 2001 lectures by Daniel Waldram for details. In this lecture, we focus on one of the important phenomena assoaciated with non-standard embeddings, namely, the appearance of one or more bulk space three-branes (actually, M5-branes wrapped on holomorphic curves in the Calabi-Yau threefold). In the second part of this lecture, we will discuss the existence and properties of bulk space wrapped five-branes in detail.

We would now like to find the simplest BPS domain wall solutions of the generalized five–dimensional heterotic M-theory. From the above results, it is clear that the proper Ansatz for the type of solutions we are looking for is given by

ds^2_5 = a(y)^2dx^μdx^ν η_{μν} + b(y)^2dy^2 V = V (y) (3.1) b^i = b^i(y) ,

where we use y = x^{11} from now on. A solution to the generalized equations of motion is somewhat hard to find, essentially due to the complication caused by the inclusion of all (1, 1) moduli and the associated Kähler structure. The trick is to express the solution in terms of certain functions f^i = f^i(y) which are only implicitly defined rather than trying to find fully explicit formulae. It turns out that those functions are fixed by the equations

d_{ijk} f^j f^k = H_i , H_i = −2 √ 2kα_i|y| + k_i (3.2)

where k and k_i are arbitrary constants. Then the solution can be written as V = ( 1 6 d_{ijk} f^if^j f^k )_2

a = k̃V^{1/6} b = kV^{2/3} (3.3) b^i = V^{−1/6}f^i

where k̃ is another arbitrary constant. We have checked that this solution is indeed a BPS state of the theory; that is, that it preserves four of the eight supercharges. Note that we have chosen the above solution to have no singularities other than those at the two boundaries. Specifically, the harmonic functions H_i in eq. (3.2) satisfy

H_i^{′′} = 4 √ 2kα_i(δ(y) − δ(y − πρ)) , (3.4) indicating sources at the orbifold planes y = 0, πρ. Recall that we have restricted the range of y to y ∈ [−πρ, πρ] with the endpoints identified. This explains the second delta–function at y = πρ in the above equation. We conclude that the solution (3.4) represents a multi–charged double domain wall (three–brane) solution with the two walls located at the orbifold planes. It preserves four–dimensional Poincaré invariance as well as four of the eight supercharges.

In Lecture 2, we have presented a related three–brane solution which was less general in that it involved the universal Calabi–Yau modulus V only. Clearly, we should be able to recover this solution from eq. (3.4) if we consider the specific case h^{1,1} = 1. Then we have d_{111} = 6 and it follows from eq. (3.2) that

f^1 = (√ 2 3 kα_1|y| + k_1 )_{1/2} . (3.5)

Inserting this into eq. (3.4) provides us with the explicit solution in this case which is given by a = a_0H^{1/2} b = b_0H^2 H = − √ 2 3 α|y| + c_0 , α = α^1 (3.6) V = b_0H^3 .

The constant a_0, b_0 and c_0 are related to the integration constants in eq. (3.4) by

a_0 = k̃k^{1/2} , b_0 = k^3 , c_0 = k_1 k . (3.7)

Eq. (3.6) is indeed exactly the solution that was found in Lecture 2. It still represents a double domain wall. However, in contrast to the general solution it couples to one charge α = α^1 only. Geometrically, it describes a variation of the five–dimensional metric and the Calabi–Yau volume across the orbifold.

At this point, we introduce an important generalization which greatly expands the scope, theoretical interest and phenomenological implications of heterotic M-theory. First, note that all of our previous results have assumed that the gauge field vacuum on the Calabi– Yau threefold is identical to the geometrical spin connection. That is, we have assumed the standard embedding defined in (1.6). Since any Calabi–Yau threefold has holonomy group SU(3), it follows that the spin connection and, hence, the gauge connection has structure group G = SU(3). The four-dimensional low energy theory then exhibits a gauge group H which is the commutant of G in E_8. Since G = SU(3), it follows that H = E_6, as we discussed above. Although the choice of the standard embedding was natural within the context of weakly coupled heterotic superstring theory, there is no reason to single it out from other gauge vacua in M-theory. Indeed, the only constraint on the gauge vacua in heterotic M-theory is that they be compatible with N = 1 supersymmetry on the boundary planes. That is, the gauge connection on the Calabi–Yau threefold must satisfy the Hermitian Yang–Mills equation, but is otherwise arbitrary. Clearly, it would be of significant interest to demonstrate the existence of gauge vacua other than the standard embedding. For example, if one could construct a “non–standard” embedding gauge vacuum with structure group, say, G = SU(5) × Z_2, then the low energy gauge group in four-dimensions would be the standard model group SU(3)_C × SU(2)_L × U(1)_Y . Since the Calabi–Yau threefold has a Euclidean signature and is compact, we will refer to any gauge configuration with structure group G ⊂ E_8 that satisfies the Hermitian Yang–Mills equation as a G-instanton. We will, therefore, expand the vacua of heterotic M-theory by compactifying Hořava-Witten theory on Calabi–Yau manifolds with G-instantons.

Initially, this seems to be a very difficult task, since not a single solution to the Hermitian Yang–Mills equations on a Calabi–Yau threefold is known, with the exception of the standard embedding. However, at this point, some important mathemetical results become relevant, which allow us to demonstrate the existence and compute the properties of very large classes of G-instantons. The fundamental results in this regard are two–fold. First, it was shown by Donaldson and Uhlenbeck and Yau that there is a one-to-one correspondence between any G-instanton solution of the Hermitian Yang–Mills equation and the existence of a stable holomorphic vector bundle with structure group G over the Calabi–Yau threefold. Given one the other is determined, at least in principle. Now, even though it appears to be very difficult to find solutions of the Hermitian Yang–Mills equations, it was demonstrated by Friedman, Morgan and Witten [33, 35] and Donagi [34] that one can, rather straightforwardly, construct stable holomorphic vector bundles over Calabi–Yau threefolds. Using, and extending, the technology introduced in these papers, large classes of heterotic M-theory vacua with nonstandard G-bundles have been constructed [36, 37]. It was shown in these papers that heterotic M-theory vacua corresponding to grand unified theories, with gauge groups such as SU(5) and SO(10) [36], and the standard model with gauge group SU(3)_C × SU(2)_L × U(1)_Y [37] can, indeed, be constructed in this manner. I will not discuss these holomorphic bundle constructions in these lectures, referring the reader to the TASI lectures by Daniel Waldram. Here, instead, I will discuss an important implication of non-standard G-bundle vacua, namely, the necessary appearance of M5-branes, wrapped on holomorphic curves, in the bulk space.

Recall from above that anomaly cancellation requires that the Bianchi identity for the four-form field strength G = dC be modified as in equation (1.4). It is useful to rewrite this expression as

(dG)_{11}¯_I¯_J¯_K¯_L = −4 √ 2π ( κ 4π )_{2/3} { J^{(1)}δ(x^{11}) + J^{(2)}δ(x^{11} − πρ) } ĪJ̄K̄L̄ (3.8)

where sources are defined by

J^{(n)} = c_2(V^n) − 1 2 c_2(T X) n = 1, 2, (3.9) and c_2(V^n) = − 1 16π^2 trF^n ∧ F^n, c_2(T X) = − 1 16π^2 trR ∧ R, (3.10) V^n is the stable holomorphic vector bundle on the n-th plane, F^n is the field strength associated with the gauge theory, and R is the Ricci tensor of the Calabi-Yau manifold. Note that c_2(V^n) and c_2(T X) are the second Chern class of the vector bundle on the n-th boundary plane and the second Chern class of the Calabi-Yau tangent bundle respectively. Integrating (3.8) over a five-cycle which spans the orbifold interval and is otherwise an arbitrary four-cycle in the Calabi-Yau three-fold, we find the topological condition that

c_2(V^1) + c_2(V^2) − c_2(T X) = 0. (3.11)

When N bulk five-branes, located at coordinates x_i for i = 1, . . . , N in the 11-direction, are present in the vacuum, cancellation of their worldvolume anomalies, as well as the gravitational and gauge anomalies on the orbifold fixed planes, requires that Bianchi identity be further modified to

(dG)_{11}¯_I¯_J¯_K¯_L = 4 √ 2π ( κ 4π )_{2/3} (J^{(1)}δ(x^{11}) + J^{(2)}δ(x^{11} − πρ) + Σ^N_{i=1}Ĵ^{(i)}δ(x^{11} − x_i))¯_I¯_J¯_K¯_L. (3.12)

Each five-brane source Ĵ^{(i)} is defined to be the four-form which is Poincaré dual to the holomorphic curve in the Calabi-Yau threefold around which the i-th five-brane is wrapped. If we define the five-brane class

W = Σ^N_{i=1}Ĵ^{(i)}, (3.13)

then the topological condition (3.11) is modified to

c_2(V^1) + c_2(V^2) − c_2(T X) + W = 0. (3.14)

The simplest example one can present is the standard embedding, where one fixes the Calabi- Yau three-fold and chooses the two holomorphic vector bundles so that V^1 = T X and V^2 = 0. It follows that

c_2(V^1) = c_2(T X), c_2(V^2) = 0. (3.15)

Note that these Chern classes satisfy the topological condition given in (3.14) with

W = 0. (3.16)

That is, for the standard embedding there are no M5–branes in the bulk space, as we already know from the previous lectures. However, as was shown in [36], most non-standard G-bundles correspond to Chern classes that require a non-vanishing five-brane class W in order to be anomaly free. In particular, phenomenologically relevant heterotic M-theory vacua, such as those leading to the standard model gauge group with three families of quarks and leptons [37], must have bulk five–branes. We will, therefore, spend the remainder of this lecture discussing the structure and physical properties of bulk space M5–branes wrapped on holomorphic curves.

The inclusion of five-branes in the bulk space not only generalizes the types of background one can consider, but also introduces new degrees of freedom into the theory, namely, the dynamical fields on the five-branes themselves. We will now consider what low-energy fields survive on one of the five-branes when it is wrapped around a two-cycle in the Calabi–Yau threefold.

In general, the fields on a single five-brane are as follows [38, 39]. The simplest are the bosonic coordinates X^I describing the embedding of the brane into 11-dimensional spacetime. The additional bosonic field is a world-volume two-form potential B with field strength H = dB satisfying a generalized self-duality condition. For small fluctuations, the duality condition simplifies to the conventional constraint H = ∗H. These degrees of freedom are paired with spacetime fermions θ, leading to a Green–Schwarz type action, with manifest spacetime supersymmetry and local kappa-symmetry [40, 41]. (As usual, including the selfdual field in the action is difficult, but is made possible by either including an auxiliary field or abandoning a covariant formulation.) For a five-brane in flat space, one can choose a gauge such that the dynamical fields fall into a six-dimensional massless tensor multiplet with (0, 2) supersymmetry on the brane world-volume [42, 43]. This multiplet has five scalars describing the motion in directions transverse to the five-brane, together with the self-dual tensor H.

For a five-brane embedded in S^1/Z_2 × X × M_4, to preserve Lorentz invariance in M_4, 3 + 1 dimensions of the five-brane must be left uncompactified. The remaining two spatial dimensions are then wrapped on a two-cycle of the Calabi–Yau three-fold. To preserve supersymmetry, the two-cycle must be a holomorphic curve [17, 44, 45]. Thus, from the point of view of a five-dimensional effective theory on S^1/Z_2 × M_4, since two of the fivebrane directions are compactified, it appears as a flat three-brane (or equivalently a domain wall) located at some point x^{11} = x on the orbifold. Thus, at low energy, the degrees of freedom on the brane must fall into four-dimensional supersymmetric multiplets.

An important question is how much supersymmetry is preserved in the low-energy theory. One way to address this problem is directly from the symmetries of the Green–Schwarz action, following the discussion for similar brane configurations in [44]. Locally, the 11- dimensional spacetime S^1/Z_2 ×X ×M_4 admits eight independent Killing spinors η, so should be described by a theory with eight supercharges. (Globally, only half of the spinors survive the non-local orbifold quotienting condition Γ_{11}η(−x^{11}) = η(x^{11}), so that, for instance, the eleven-dimensional bulk fields lead to N = 1, not N = 2, supergravity in four dimensions.) The Green–Schwarz form of the five-brane action is then invariant under supertranslations generated by η, as well as local kappa-transformations. In general the fermion fields θ transform as (see for instance ref. [43])

δθ = η + P_+κ (3.17)

where P_+ is a projection operator. If the brane configuration is purely bosonic then θ = 0 and the variation of the bosonic fields is identically zero. Furthermore, if H = 0 then the projection operator takes the simple form

P_± = 1 2 ( 1 ± 1 6! √ g ϵ^{m1 ...m6} ∂_{m1} X^{I1} . . . ∂_{m6} X^{I6} Γ_{I1 ...I6} ) (3.18)

where σ^m, m = 0, . . . , 5 label the coordinates on the five-brane and g is the determinant of the induced metric

g_{mn} = ∂_mX^I ∂_nX^J g_{IJ} . (3.19)

If the brane configuration is invariant for some combination of supertranslation η and kappa-transformation, then we say it is supersymmetric. Now κ is a local parameter which can be chosen at will. Since the projection operators satisfy P_+ + P_− = 1, we see that for a solution of δθ = 0, one is required to set κ = −η, together with imposing the condition

P_−η = 0 (3.20)

For a brane wrapped on a two-cycle in the Calabi–Yau space, spanning M_4 and located at x^{11} = x in the orbifold interval, we can choose the parameterization

X^μ = σ^μ, X^A = X^A(σ, σ̄), X^{11} = x (3.21)

where σ = σ^4 + iσ^5. The condition (3.20) then reads − (i/ √ g) ∂X^A ¯∂X^B Γ^{(4)}Γ_{AB} η = η (3.22)

where we have introduced the four-dimensional chirality operator Γ^{(4)} = Γ_0Γ_1Γ_2Γ_3. Recalling that on the Calabi–Yau three-fold the Killing spinor satisfies Γ^{b̄}η = 0, it is easy to show that this condition can only be satisfied if the embedding is holomorphic, that is X^a = X^a(σ), independent of σ̄. The condition then further reduces to

Γ^{(4)}η = iη (3.23)

which, given that the spinor has definite chirality in eleven dimensions as well as on the Calabi–Yau space, implies that Γ^{11}η = η, compatible with the global orbifold quotient condition. Thus, finally, we see that only half of the eight Killing spinors, namely those satisfying (3.23), lead to preserved supersymmetries on the five-brane. Consequently the low-energy four-dimensional theory describing the five-brane dynamics will have N = 1 supersymmetry.

The simplest excitations on the five-brane surviving in the low-energy four-dimensional effective theory are the moduli describing the position of the five-brane in eleven dimensions. There is a single modulus X^{11} giving the position of the brane in the orbifold interval. In addition, there is the moduli space of holomorphic curves C_2 in X describing the position of the brane in the Calabi–Yau space. This moduli space is generally complicated, and we will not address its detailed structure here. (As an example, the moduli space of genus one curves in K3 is K3 itself [45].) However, we note that these moduli are scalars in four dimensions, and we expect them to arrange themselves as a set of chiral multiplets, with a complex structure presumably inherited from that of the Calabi–Yau manifold.

Now let us consider the reduction of the self-dual three-form degrees of freedom. (Here we are essentially repeating a discussion given in [46, 47].) The holomorphic curve is a Riemann surface and, so, is characterized by its genus g. One recalls that the number of independent harmonic one-forms on a Riemann surface is given by 2g. In addition, there is the harmonic volume two-form Ω. Thus, if we decompose the five-brane world-volume as C_2 × M_4, we can expand H in zero modes as H = da ∧ Ω + F^u ∧ λ_u + h (3.24) where λ_u are a basis u = 1, . . . , 2g of harmonic one-forms on C_2, while the four-dimensional fields are a scalar a, 2g U(1) vector fields F^u = dA^u and a three-form field strength h = db. However, not all these fields are independent because of the self-duality condition H = ∗H. Rather, one easily concludes that h = ∗da (3.25) and, hence, that the four-dimensional scalar a and two-form b describe the same degree of freedom. To analyze the vector fields, we introduce the matrix T_u^v defined by ∗λ_u = T_u^vλ_v (3.26) If we choose the basis λ_u such that the moduli space metric ∫ C_2 λu ∧ (∗λv ) is the unit matrix,

T is antisymmetric and, of course, T^2 = −1. The self-duality constraint implies for the vector fields that F^u = T_v^u ∗ F^v . (3.27)

If we choose a basis for F^u such that

T = diag (( 0 1 −1 0 ) , . . . , ( 0 1 −1 0 )) (3.28)

with g two by two blocks on the diagonal, one easily concludes that only g of the 2g vector fields are independent. In conclusion, for a genus g curve C_2, we have found one scalar and g U(1) vector fields from the two-form on the five-brane worldvolume. The scalar has to pair with another scalar to form a chiral N = 1 multiplet. The only other universal scalar available is the zero mode of the transverse coordinate X^{11} in the orbifold direction.

Thus, in general, the N = 1 low-energy theory of a single five-brane wrapped on a genus g holomorphic curve C_2 has gauge group U(1)^g with g U(1) vector multiplets and a universal chiral multiplet with bosonic fields (a, X^{11}). Furthermore, there is some number of additional chiral multiplets describing the moduli space of the curve C_2 in the Calabi–Yau three-fold.

It is well known that when two regions of the five-brane world-volume in M–theory come into close proximity, new massless states appear [48, 13]. These are associated with membranes stretching between the two nearly overlapping five-brane surfaces. In general, this can lead to enhancement of the gauge symmetry. Let us now consider this possibility, heretofore ignored in our discussion. In general, one can consider two types of brane degeneracy where parts of the five-brane world-volumes are in close proximity. The first, and simplest, is to have N distinct but coincident five-branes, all wrapping the same cycle C_2 in the Calabi–Yau space and all located at the same point in the orbifold interval. Here, the new massless states come from membranes stretching between the distinct five-brane world-volumes. The second, and more complicated, situation is where there is a degeneracy of the embedding of a single five-brane, such that parts of the curve C_2 become close together in the Calabi– Yau space. In this case, the new states come from membranes stretching between different parts of the same five-brane world-volume [49, 50]. Let us consider these two possibilities separately.

The first case of distinct five-branes is analogous to the M–theory description of N overlapping type IIB D3-branes, which arise as N coincident five-branes wrapping the same cycle in a flat torus. In that case, the U(1) gauge theory on each D3-brane is enhanced to a U(N) theory describing the full collection of branes. Thus, by analogy, in our case we would expect a similar enhancement of each of the g U(1) fields on each five-brane. That is, when wrapped on a holomorphic curve of genus g, the full gauge group for the low-energy theory describing N coincident five-branes becomes U(N)^g .

The second case is inherently more complicated. It can, however, be clearly elucidated and studied for Calabi-Yau threefolds which are elliptically fibered. These manifolds consist of a base two-fold, over any point of which is fibered an elliptic curve. At almost all points in the base, the elliptic curve is smooth. However, there is a locus of points, called the discriminant locus, over which the fibers degenerate. These degeneracies have specific characteristics and have been classified by Kodaira [51]. If the five-brane is wrapped over a smooth fiber, away from the discriminant locus, then there are no new massless states. However, as the fiber approaches the discriminant it degenerates to a specific Kodaira singularity. Accordingly, the five-brane wrapped on such a fiber begins to “approach itself” near the singularity, leading to new, massless states appearing in the theory. The general theory for computing these massless states was presented for fibers over both the smooth and singular parts of discriminant curves in [49] and [50] respectively. For example, consider an elliptically fibered Calabi-Yau threefold over an F_3 Hirzebruch base and let the five-brane be wrapped on a fiber near a smooth part of the discriminant curve with Kodaira type I_2. Then, it was shown in [49] that, in addition to the usual states, the I_2 degeneracy of the elliptic fiber produces an SU(2) doublet 2 of massless N = 2 hypermultiplets with unit electric charge. In general, one gets a complicated spectrum of new hypermultiplets and, for sufficiently intricate Kodaira singularities, new non-Abelian vector multiplets as well.

Summarizing the two cases, we see that for N five-branes wrapping the same curve C_2 of genus g, we expect that the symmetry is enhanced from N copies of U(1)^g to U(N)^g. Alternatively, in the second case, even for a single brane we can get new massless states if the holomorphic curve degenerates. These states form hypermultiplets and entended non- Abelian gauge vector multiplets depending on the exact form of the curve degeneracy.

4 Lecture 4: Beyond Hořava-Witten Theory

It is of interest to ask whether one can construct other orbifolds of M-theory beyond the S^1/Z_2 example of [1, 2]. A first step in this direction was taken by Dasgupta and Muhki [52] and Witten [53] who discussed both local and global anomaly cancellation within the context of T^4/Z_2 orbifolds. A major generalization of these results was presented in [54, 55, 56, 57] and [58, 59] where all the M-theory orbifolds associated with the spacetime R^6 × K3 were constructed. In this fourth lecture, we will, for specificity, consider M-theory orbifolds on S^1/Z_2 ×T^4/Z_2. It will be demonstrated, in detail, how such orbifolds can be made anaomaly free, completely determining both the twisted and untwisted sector spectra in the process, even on odd dimensional orbifold planes where all anomalies vanish.

The spacetime has topology R^6 × S^1 × T^4, where each of the five compact coordinates takes values on the interval [−π, π] with the endpoints identified. Let x^μ parameterize the six non-compact dimensions, while x^i and x^{11} parameterize the T^4 and S^1 factors respectively. Then the Z_2 action on S^1 is defined by

α : (x^μ, x^i, x^{11}) −→ (x^μ, x^i, −x^{11}) (4.1)

whereas the Z_2 action on T^4 is

β : (x^μ, x^i, x^{11}) −→ (x^μ, −x^i, x^{11}) . (4.2)

The element α leaves invariant the two ten-planes defined by x^{11} = 0 and x^{11} = π, while β leaves invariant the sixteen seven-planes defined when the four coordinates x^i individually assume the values 0 or π. Finally, αβ leaves invariant the thirty-two six-planes defined when all five compact coordinates individually assume the values 0 or π. The αβ six-planes coincide with the intersections of the α ten-planes with the β seven-planes.

A gravitational anomaly arises on each ten-plane due to the coupling of chiral projections of the bulk gravitino to currents localized on the fixed planes. Since the two ten-planes are indistinguishable aside from their position, this anomaly is identical on each of the two planes and can be computed by conventional means if proper care is used. The reason why extra care is needed is that each ten-plane anomaly arises from the coupling of eleven-dimensional fermions to ten-dimensional currents, whereas standard index theorem results only apply to ten-dimensional fermions coupled to ten-dimensional currents. If one notes that the index theorem can be applied to the small radius limit where the two ten-planes coincide, then the gravitational anomaly on each individual ten-plane can be computed; it is simply one-half of the index theorem anomaly derived using the “untwisted” sector spectrum in tendimensions. By untwisted sector, we mean the Z_2 projection of the eleven-dimensional bulk space supergravity multiplet onto each ten-dimension fixed plane. This untwisted spectrum forms the ten-dimensional N = 1 supergravity multiplet containing a graviton, a chiral gravitino, a two-form and a scalar dilaton. We denote by R the ten-dimensional Riemann tensor, regarded as an SO(9, 1)-valued form.

As pointed out in [1, 2], in addition to the untwisted spectrum, one must allow for the possibility of “twisted” sector N = 1 supermultiplets that live on each ten-dimensional orbifold plane only. For the case at hand, the twisted sector spectrum must fall into N = 1 Yang-Mills supermultiplets consisting of gauge fields and chiral gauginos. These will give rise to an additional contribution to the gravitational anomaly on each ten-plane, as well as to mixed and pure-gauge anomalies. However, since the twisted sector fields are tendimensional, these anomalies can be computed directly from the standard formulas, without multiplying by one-half. The twisted sector gauge group, the dimension of the gauge group and the gauge field strength on the i-th ten-plane are denoted by G_i, n_i = dim G_i and F_i respectively, for i = 1, 2.

The quantum mechanical one-loop local chiral anomaly on the i-th ten-plane is characterized by the twelve-form

I_{12}(1−loop)_i = 1 4 ( I^{(3/2)}_{GRAV} (R) − I^{(1/2)}_{GRAV} (R) )

+ 1 2 ( n_i I^{(1/2)}_{GRAV} (R) + I^{(1/2)}_{M IXED}(R, F_i) + I^{(1/2)}_{GAU GE} (F_i) ) (4.3)

from which the anomaly arises by descent. The constituent polynomials contributing to the pure gravitational anomaly due to the chiral spin 3/2 and chiral spin 1/2 fermions are

I^{(3/2)}_{GRAV} (R) = 1 (2π)^56!

( 55 56 tr R^6 − 75 128 tr R^4 ∧ tr R^2 + 35 512 (tr R^2)^3 ) (4.4) and I^{(1/2)}_{GRAV} (R) = 1 (2π)^56! ( − 1 504 tr R^6 − 1 384 tr R^4 ∧ tr R^2 − 5 4608

( tr R^2)^3 ) (4.5)

respectively, where tr is the trace of the SO(9, 1) indices. The polynomials contributing to the mixed and pure-gauge anomalies are due to chiral spin 1/2 fermions only and are given by I^{(1/2)}_{M IXED}(R, F_i) = 1 (2π)^56! ( 1 16 tr R^4 ∧ Tr F^2_i + 5 64 ( tr R^2)^2 ∧ Tr F^2_i − 5 8 tr R^2 ∧ Tr F^4_i ) (4.6) and I^{(1/2)}_{GAU GE} (F_i) = 1 (2π)^56!

Tr F^6_i . (4.7)

Here Tr is the trace over the adjoint representation of G_i. All the anomaly polynomials are computed using standard index theorems. Each term in (4.3) has a factor of 1/2 because the relevant fermions are Majorana-Weyl with half the degrees of freedom of Weyl fermions. The first two terms in (4.3) arise from untwisted sector fermions, whereas the last three terms are contributed by the twisted sector. It follows from the above discussion that the first two terms must have an additional factor of 1/2, accounting for the overall coefficient of 1/4, whereas the remaining three terms are given exactly by the index theorems.

The quantum anomaly (4.3) would spoil the consistency of the theory were it not to cancel against some sort of classical inflow anomaly. Hence, it is imperative to discern the presence of appropriate local classical counterterms to cancel against (4.3). One begins the analysis of anomaly cancellation by considering the pure tr R^6 term in (4.3) which is irreducible and must therefore identically vanish. It follows from the above that this term is − 1 2(2π)^56!

(n_i − 248) 494 tr R^6 . (4.8)

Therefore, the tr R^6 term will vanish if and only if each gauge group G_i satisfies the constraint

n_i = 248 . (4.9)

Without yet specifying which 248-dimensional gauge group is permitted, we substitute 248 for n_i in (4.3) obtaining

I_{12}(1−loop)_i = 1 2(2π)^56! ( − 15 16 tr R^4 ∧ tr R^2 − 15 64 ( tr R^2)^3 + 1 16 tr R^4 ∧ Tr F^2_i + 5 64 ( tr R^2)^2 ∧ Tr F^2_i − 5 8 tr R^2 ∧ Tr F^4_i + Tr F^6_i ) . (4.10)

Although non-vanishing, this part of the anomaly is reducible. It follows that it can be made to cancel as long as it can be factorized into the product of two terms, a four-form and an eight-form. A necessary requirement for this to be the case is that

Tr F^6_i = 1 24 Tr F^4_i ∧ Tr F^2_i − 1 3600

( Tr F^2_i )^3 . (4.11)

There are two Lie groups with dimension 248 that satisfy this condition, the non-Abelian group E_8 and the Abelian group U(1)^{248}. Both groups represent allowed twisted matter gauge groups on each ten-plane. Hence, from anomaly considerations alone one can determine the twisted sector on each ten-plane, albeit with a small ambiguity in the allowed twisted sector gauge group. In this paper, we consider only the non-Abelian gauge group E_8. Using (4.11) and several E_8 trace relations, the anomaly polynomial (4.10) can be re-expressed as follows

I_{12}(1−loop)_i = 1 3 π I^3_{4(i)} + X_8 ∧ I_{4(i)} (4.12)

where X_8 is the eight-form

X_8 = 1 (2π)^34! ( 1 8 tr R^4 − 1 32 ( tr R^2 )^2 ) (4.13) 30 and I_{4 (i)} is the four-form given by

I_{4 (i)} = 1 16π^2 ( 1 30 Tr F^2_i − 1 2 tr R^2 ) . (4.14)

Once in this factorized form, the anomaly I_{12}(1−loop)_i can be cancelled as follows.

First, the Bianchi identity dG = 0, where G is the field strength of the three-form C in the eleven-dimensional supergravity multiplet, is modified to dG = 2∑ i=1 I_{4(i)} ∧ δ^{(1)}_{M 10i} (4.15)

where I_{4(i)} is the four-form given in (4.14) and δ^{(1)}_{M 10i} is a one-form brane current with support on the i-th ten-plane. Second, we note that the eleven-dimensional supergravity action contains the terms S = · · · − π 3 ∫ C ∧ G ∧ G + ∫ G ∧ X_7 (4.16)

where X_7 satisfies dX_7 = X_8. The CGG interaction is required by the minimally-coupled supergravity action, while the GX_7 term is an additional higher-derivative interaction necessitated by five-brane anomaly cancellation. Using the modified Bianchi identity (4.15), one can compute the variation of these two terms under Lorentz and gauge transformations. The result is that the CGG and GX_7 terms have classical anomalies which descend from the polynomials

I_{12}(CGG)_i = − π 3 I^3_{4 (i)} (4.17) and I_{12}(GX_7)_i = −X_8 ∧ I_{4(i)} . (4.18)

respectively. It follows that

I_{12}(1−loop)_i + I_{12}(CGG)_i + I_{12}(GX_7)_i = 0 (4.19)

and, hence, the total anomaly cancels exactly.

We conclude that the requirement of local anomaly cancellation on the each of the two S^1/Z_2 orbifold ten-planes specifies the twisted spectrum of the theory. This specification is almost, but not quite, unique, allowing N = 1 vector supermultiplets with either gauge group E_8 or U(1)^{248}. An important ingredient in this analysis was the fact that the contribution to the anomaly on each ten-plane from the untwisted sector was a factor of 1/2 smaller than the index theorem result. This followed from the fact that the index theorem had to be spread over two equivalent ten-planes. A direct consequence of this is that the non-Abelian gauge group on each ten-plane is E_8, not E_8 × E_8, and that the gauge group SO(32) is disallowed. Since S^1/Z_2 is a subspace of S^1/Z_2 × T^4/Z_2, the results of this section continue to hold on the larger orbifold. We now discuss the cancellation of local anomalies in the other factor space, T^4/Z_2.

The quantum anomalies on each of the sixteen indistinguishable seven-planes of the T^4/Z_2 orbifold are easy to analyze. In analogy with the ten-planes, an untwisted sector is induced on each seven-plane by the Z_2 projection of the eleven-dimensional supergravity multiplet. This untwisted spectrum forms the seven-dimensional N = 1 supergravity multiplet consisting of a graviton, a gravitino, three vector fields, a two-form, a real scalar dilaton and a spin 1/2 dilitino. However, unlike the case of a ten-plane, gravitational anomalies cannot be supported on a seven-plane. In fact, since there are no chiral fermions in seven-dimensions, no chiral anomaly of any kind, gravitational or gauge, can arise. Hence, with no local chiral anomalies to cancel, it would appear to be impossible to compute the twisted sector spectrum of any seven-plane. As long as we focus on the seven-planes exclusively, this conclusion is correct. However, as we will see below, the cancellation of the local anomalies on the thirty-two sixdimensional αβ orbifold planes, formed from the intersection of the α ten-planes with the β seven-planes, will require a non-vanishing twisted sector spectrum on each seven-plane and dictate its structure. With this in mind, we now turn to the analysis of anomalies localized on the intersection six-planes in the full S^1/Z_2 × T^4/Z_2 orbifold.

As in the case for the ten-planes, a gravitational anomaly will arise on each six-plane due to the coupling of chiral projections of the bulk gravitino to currents localized on the thirty-two fixed planes. Since the thirty-two six-planes are indistinguishable, the anomaly is the same on each plane and can be computed by conventional means if proper care is taken. Noting that the standard index theorems can be applied to the small radius limit where the thirty-two six-planes coincide, it follows that the gravitational anomaly on each six-plane is simply one-thirty-second of the index theorem anomaly derived using the untwisted sector spectrum in six-dimensions. In this case, the untwisted sector spectrum is the Z_2 × Z_2 projection of the eleven-dimensional bulk supergravity multiplet onto each six-dimensional fixed plane. This untwisted spectrum forms several N = 1 six-dimensional supermultiplets. Namely, the supergravity multiplet consisting of a graviton, a chiral gravitino and a selfdual two-form, four hypermultiplets each with four scalars and an anti-chiral hyperino, and one tensor multiplet with one anti-self-dual two-form, one scalar and an anti-chiral spin 1/2 fermion. A one-loop quantum gravitational anomaly then arises from one chiral spin 3/2 fermion, five anti-chiral spin 1/2 fermions and one each of self-dual and anti-self-dual tensors. However, the anomalies due to the tensors cancel each other. Noting that a chiral anomaly in six-dimensions is characterized by an eight-form, from which the anomaly arises by descent, we find, for the i-th six-plane, that

I_8(SG)_i = 1 32 ( I^{(3/2)}_{GRAV} (R) − 5 I^{(1/2)}_{GRAV} (R) ) (4.20)

where

I^{(3/2)}_{GRAV} (R) = 1 (2π)^34! ( − 49 48 tr R^4 + 43 192 ( tr R^2 )^2 ) (4.21) and I^{(1/2)}_{GRAV} (R) = 1 (2π)^34! ( − 1 240 tr R^4 − 1 192 ( tr R^2)^2 ) , (4.22)

where R is the six-dimensional Riemann tensor, regarded as an SO(5, 1)-valued form. Note that the terms in brackets in (4.20) are the anomaly as computed by the index theorem. I_8(SG)_i is obtained from that result by dividing by 32.

Noting that each six-plane is embedded in one of the two ten-dimensional planes, we see that there are additional “untwisted” sector fields on each six-plane. These arise from the β Z_2 projection of the N = 1 E_8 Yang-Mills supermultiplet on the associated ten-plane. Such fields are untwisted from the point of view of the six-dimensional plane, although they arise from fields that were in the twisted sector of the ten-plane. In this lecture, we will assume that the β action on the ten-dimensional vector multiplets does not break the E_8 gauge group. A discussion of the case where E_8 is broken to a subgroup by the action of β can be found in [55, 56]. A ten-dimensional N = 1 vector supermultiplet decomposes in six-dimensions into an N = 1 vector multiplet and an N = 1 hypermultiplet. However, the action of β projects out the hypermultiplet. Therefore, the ten-plane contribution to the untwisted sector of each six-plane is an N = 1 E_8 vector supermultiplet, which consists of gauge fields and chiral gauginos. The gauginos contribute to the gravitational anomaly on each six-plane, as well as adding mixed and E_8 gauge anomalies. Noting that the standard index theorems can be applied to the small radius limit, where each ten-plane shrinks to zero size and, hence, the sixteen six-planes it contains coincide, it follows that the anomaly is simply one-sixteenth of the index theorem result. We find that the one-loop quantum contribution of this E_8 supermultiplet to the gravitational, mixed and E_8 gauge anomalies on the i-th six-plane is

I_8(E_8)_i = 1 16 ( 248 I^{(1/2)(R)} GRAV + I (1/2) M IXED(R, Fi) + I (1/2) GAU GE (Fi) ) (4.23)

where I^{(1/2)}_{M IXED}(R, F_i) = 1 (2π)^34! ( 1 4 tr R^2 ∧ Tr F^2_i ) (4.24) and I^{(1/2)}_{GAU GE} (F_i) = 1 (2π)^34! ( − Tr F^4_i ) . (4.25)

Here Tr is over the adjoint 248 representation of E_8. Note that the terms in brackets in (4.23) are the index theorem anomaly. I_8(E_8)_i is obtained from that result by dividing by 16. Are there other sources of untwisted sector anomalies on a six-plane? The answer is, potentially yes. We note that, in addition to being embedded in one of the two ten-planes, each six-plane is also embedded in one of the sixteen seven-dimensional orbifold planes. In analogy with the discussion above, if there were to be a non-vanishing twisted sector spectrum on each seven-plane, then this could descend under the α Z_2 projection as an addition to the untwisted spectrum on each six-plane. This additional untwisted spectrum could then contribute to the chiral anomalies on the six-plane. However, as noted above, a priori, there is no reason for one to believe that there is any twisted sector on a seven-dimensional orbifold plane. Therefore, for the time being, let us assume that there is no such contribution to the six-dimensional anomaly. We will see below that this assumption must be carefully revisited.

As for the ten-dimensional planes, one must allow for the possibility of twisted sector N = 1 supermultiplets on each of the thirty-two six-planes. The most general allowed spectrum on the i-th six-plane would be n_{V i} vector multiplets transforming in the adjoint representation of some as yet unspecified gauge group G_i, n_{Hi} hypermultiplets transforming under some representation (possibly reducible) R of G_i, and n_{T i} gauge-singlet tensor multiplets. We denote by F_i the gauge field strength. Since these fields are in the twisted sector, their contribution to the chiral anomalies can be determined directly from the index theorems without modification. We find that the one-loop quantum contribution of the twisted spectrum to the gravitational, mixed and G_i gauge anomalies on the i-th six-plane is

I_8(G_i) = (n_V − n_H − n_T )_i I^{(1/2)}_{GRAV} (R) − n_{T i} I^{(3−form)}_{GRAV} (R)

+I^{(1/2)}_{M IXED}(R, F_i) + I^{(1/2)}_{GAU GE} (F_i) (4.26) where I^{(1/2)}_{GRAV} (R) is given in (4.22) and

I^{(3−form)} GRAV (R) = 1 (2π)^34! ( − 7 60 tr R^4 + 1 24 ( tr R^2 )^2 ) . (4.27)

Furthermore, the mixed and pure-gauge anomaly polynomials are modified to I^{(1/2)}_{M IXED}(R, F_i) = 1 (2π)^34! ( 1 4 tr R^2 ∧ trace F^2_i ) (4.28) and I^{(1/2)}_{GAU GE} (F_i) = 1 (2π)^34! ( − trace F^4_i ) , (4.29)

where

trace F^n_i = Tr F^n_i − ∑ α h_α tr_αF^n_i . (4.30)

Here Tr is an adjoint trace, h_α is the number of hypermultiplets transforming in the R_α representation and tr_α is a trace over the R_α representation. Note that the total number of vector multiplets is n_{V i} = dim (G_i), while the total number of hypermultiplets is n_{Hi} = ∑ α h_α × dim (R_α). The relative minus sign in (4.30) reflects the anti-chirality of the hyperinos.

Combining the contributions from the two untwisted sector sources and the twisted sector, the total one-loop quantum anomaly on the i-th six-plane is the sum

I_8(1−loop)_i = I_8(SG)_i + I_8(E_8)_i + I_8(G_i) (4.31)

where I_8(SG)_i, I_8(E_8)_i and I_8(G_i) are given in (4.20), (4.23) and (4.26) respectively.

Unlike the case for the ten-dimensional planes, the classical anomaly associated with the GX_7 term in the eleven-dimensional action (4.16) can contribute to the irreducible curvature term which, in six-dimensions, is tr R^4. Therefore, our next step is to further modify the Bianchi identity for G = dC from expression (4.15) to dG = 2∑ i=1 I_{4(i)} ∧ δ^{(1)}_{M 10i} + 32∑ i=1 g_i δ^{(5)}_{M 6i} (4.32)

where δ^{(5)}_{M 6i} has support on the six-planes M^6_i . As discussed in [54, 55], the magnetic charges g_i are required to take the values g_i = −3/4, −1/4, +1/4, ... (4.33)

Using the modified Bianchi identity (4.31), one can compute the variation of the GX_7 term under Lorentz and gauge transformations. The result is that this term gives rise to a classical anomaly that descends from the polynomial

I_8(GX_7)_i = −g_i X_8 (4.34)

where X_8 is presented in expression (4.13). The relevant anomaly is then

I_8(1−loop)_i + I_8(GX_7)_i (4.35)

where I_8(1−loop)_i is given in (4.31). This anomaly spoils the consistency of the theory and, hence, must cancel. One begins the analysis of anomaly cancellation by considering the pure tr R^4 term in (4.35) which is irreducible and must identically vanish. It follows from the above that this term is − 1 (2π)^34! 240

(n_{V i} − n_{Hi} − 29n_{T i} + 30 g_i + 23) tr R^4 . (4.36)

Therefore, the tr R^4 term will vanish if and only if on each orbifold plane the constraint

n_{V i} − n_{Hi} − 29n_{T i} + 30g_i + 23 = 0 (4.37)

is satisfied. Herein lies a problem, and the main point of paper [57]. Noting from (4.33) that g_i = c_i/4 where c_i = −3, −1, 1, 3, 5, ..., we see that cancelling the tr R^4 term requires that we satisfy

n_{V i} − n_{Hi} − 29n_{T i} = (−15c_i − 46)/2 . (4.38)

However, this is not possible since the left hand side of this expression is an integer and the right hand side always half integer. There is only one possible resolution of this problem, which is to carefully review the only assumption that was made above, that is, that there is no twisted sector on a seven-plane and, hence, no contribution of the seven-planes by α Z_2 projection to the untwisted anomaly on a six-plane. As we now show, this assumption is false.

Let us now allow for the possibility that there is a twisted sector of N = 1 supermultiplets on each of the sixteen seven-planes. The most general allowed spectrum on the i-th sevenplane would be n_{7V i} vector supermultiplets transforming in the adjoint representation of some as yet unspecified gauge group G_{7i}. Each seven-dimensional vector multiplet contains a gauge field, three scalars and a gaugino. With respect to six-dimensions, this vector multiplet decomposes into an N = 1 vector supermultiplet and a single hypermultiplet. Under the α Z_2 projection to each of the two embedded six-planes, the gauge group G_{7i} can be preserved or broken to a subgroup. In either case, we denote the six-dimensional gauge group arising in this manner as G̃_i, define ñ_{V i} = dim G̃_i and write the associated gauge field strength as F̃_i. In this lecture, for simplicity, we will assume that the gauge group is unbroken by the orbifold projection, that is, G̃_i = G_{7i}. The more general case where it is broken to a subgroup is discussed in [55, 56]. Furthermore, the α action projects out either the six-dimensional vector supermultiplet, in which case the hypermultiplet descends to the six-dimensional untwisted sector, or the six-dimensional hypermultiplet, in which case the vector supermultiplet enters the six-dimensional untwisted sector. We denote by ñ_{Hi} the number of hypermultiplets arising in the six-dimensional untwisted sector by projection from the seven-plane, and specify their (possibly reducible) representation under G̃_i as R̃. Since these fields are in the untwisted sector associated with a single seven-plane, and since there are two six-planes embedded in each seven-plane, their contribution to the quantum anomaly on each six-plane can be determined by taking 1/2 of the index theorem result. We find that the one-loop quantum contribution of this part of the the untwisted spectrum to the gravitational, mixed and G̃_i gauge anomalies on the i-th six-plane is

I_8(G̃_i) = 1 2 ( (ñ_V − ñ_H )_i I^{(1/2)}_{GRAV} (R) + I^{(1/2)}_{M IXED}(R, F̃_i) + I^{(1/2)}_{GAU GE} (F̃_i) ) (4.39)

where I^{(1/2)}_{GRAV} (R), I^{(1/2)}_{M IXED}(R, F̃_i) and I^{(1/2)}_{GAU GE} (F̃_i) are given in (4.22),(4.28) and (4.29) respectively with the gauge and hypermultiplet quantities replaced by their “ ∼ ” equivalents.

The total quantum anomaly on the i-th six-plane is now modified to

I_8(1−loop)_i + I_8(G̃_i) (4.40)

where I_8(1−loop)_i and I_8(G̃_i) are given in (4.31) and (4.39) respectively. It follows that the relevant anomaly contributing to, among other things, the irreducible tr R^4 term is modified to I_8(1−loop)_i + I_8(G̃_i) + I_8(GX_7)_i . (4.41)

This anomaly spoils the quantum consistency of the theory and, hence, must cancel. We again begin by considering the pure tr R^4 term in (4.41). This term is irreducible and must identically vanish. It follows from the above that this term is − 1 (2π)^34! 240

( n_{V i} − n_{Hi} +^1_2 ñ_{V i} −^1_2 ñ_{Hi} − 29n_{T i} + 30g_i + 23 ) tr R^4 . (4.42) 37

Therefore, the tr R^4 term will vanish if and only if on each orbifold plane the constraint

n_{V i} − n_{Hi} +^1_2 ñ_{V i} −^1_2 ñ_{Hi} − 29 n_{T i} + 30 g_i + 23 = 0 (4.43)

is satisfied. Again, noting that g_i = c_i/4 where c_i = −3, −1, 1, 3, 5, ..., we see that we must satisfy

n_{V i} − n_{Hi} +^1_2 ñ_{V i} −^1_2 ñ_{Hi} − 29 n_{T i} =^1_2 ( −15c_i − 46 ) . (4.44)

As above, the right hand side is always a half integer. Now, however, because of the addition of the untwisted spectrum arising from the seven-plane, the left hand side can also be chosen to be half integer. Hence, the pure tr R^4 term can be cancelled.

Having cancelled the irreducible tr R^4 term, we now compute the remaining terms in the anomaly eight-form. In addition to the contributions from (4.41), we must also take into account the classical anomaly associated with the CGG term in the eleven-dimensional action (4.16). Using the modified Bianchi identity (4.31), one can compute the variation of the CGG term under Lorentz and gauge transformations. The result is that this term gives rise to a classical anomaly that descends from the polynomial

I_8(CGG)_i = −π g_i I^2_{4 (i)} (4.45)

where I_{4 (i)} is given in expression (4.14). Adding this anomaly to (4.41), and cancelling the tr R^4 term by imposing constraint (4.43), we can now determine the remaining terms in the anomaly eight-form.

Recall that, in this lecture, we are assuming that the β action on the ten-dimensional vector supermultiplet does not break the E_8 gauge group. In this case, we can readily show that there can be no twisted sector vector multiplets on any six-plane. Rather than complicate the present discussion, we will simply assume here that gauge field strengths F_i do not appear. Furthermore, cancellation of the complete anomaly, in the case where E_8 is unbroken, requires that G̃_i be a product of U(1) factors. Here, we will limit the discussion to the simplest case where

G̃_i = U(1) (4.46)

The β action on the seven-dimensional plane then either projects a single vector supermultiplet, or a single chargeless hypermultiplet, onto the untwisted sector of the six-plane. In either case, no U(1) anomaly exists. Hence, the gauge field strengths F̃_i also do not appear.

With this in mind, we now compute the remaining terms in the anomaly eight-form. They are 1 (2π)^34! 16

(_3

4 ( 1 − 4 n_{T i} ) (tr R^2)^2 +^1_{20} ( 5 + 8 g_i ) tr R^2 ∧ Tr F^2_i

−^1_{100} ( 1 +^4_3 g_i ) ( Tr F^2_i )^2 ) (4.47)

where we have used the E_8 trace relation Tr F^4 =^1_{100} (Tr F^2)^2. Note that, since n_{T i} is a non-negative integer and g_i must satisfy (4.33), the first two terms of this expression term can never vanish. Furthermore, it is straightforward to show that (4.47) will factor into an exact square, and, hence, be potentially cancelled by a six-plane Green-Schwarz mechanism, if and only if

4 ( 4 n_{T i} − 1 )( 3 + 4 g_i ) = ( 5 + 8 g_i )^2 (4.48)

Again, this equation has no solutions for the allowed values of n_{T i} and g_i. It follows that anomaly (4.47), as it presently stands, cannot be be made to identically vanish or cancel. The resolution of this problem was first described in [54], and consists of the realization that the existence of seven-planes in the theory necessitates the introduction of additional Chern-Simons interactions in the action, one for each seven-plane. The required terms are S = · · · + 16∑ i=1 ∫ δ^{(4)}_{M 7i} ∧ G ∧ Y^0_{3(i)} (4.49)

where dY^0_{3(i)} = Y_{4(i)} is a gauge-invariant four-form polynomial. Y_{4(i)} arises from the curvature R and also the field strength F̃_i associated with the additional adjoint super-gauge fields localized on the i-th seven-plane. It is given by

Y_{4(i)} = 1 4π ( − 1 32 η tr R^2 + ρ tr F̃_i ) (4.50)

where η and ρ are rational coefficients. Using the modified Bianchi identity (4.32), one can compute the variation of the δ^7GY_3 terms under Lorentz and gauge transformations. The result is that these give rise to a classical anomaly that descends from the polynomial

I_8(δ^7GY_3)_i = −I_{4 (i)} ∧ Y_{4(i)} (4.51)

where I_{4 (i)} is the four-form given in (4.14).

The total anomaly on the i-th six-plane is now modified to

I_8(1−loop)_i + I_8(G̃_i) + I_8(GX_7)_i + I_8(CGG)_i + I_8(δ^7GY_3)_i (4.52) where I_8(1−loop)_i, I_8(G̃_i), I_8(GX_7)_i, I_8(CGG)_i and I_8(δ^7GY_3)_i are given in (4.31), (4.39), (4.34), (4.45) and (4.51) respectively. Note that for the fixed plane intersection presently under discussion, the field strength F̃_i does not enter the anomaly eight-form (4.47). Therefore, within this context, we must take

ρ = 0 . (4.53)

After cancelling the irreducible tr R^4 term, the remaining anomaly now becomes 1 (2π)^34!16 ( 3 4 (1 − 4n_{T i} − η) (tr R^2)^2 + 1 20 (5 + 8g_i + η) tr R^2 ∧ Tr F^2_i − 1 100 (1 + 4 3 g_i) (Tr F^2_i )^2 ) (4.54)

Depending on the number of untwisted hypermultiplets, n_{T i}, these terms can be made to cancel or to factor into the sum of exact squares. In this lecture, we consider the n_{T i} = 0, 1 cases only. As discussed in [55, 56], the solutions where n_{T i} ≥ 2 are related to the n_{T i} = 0, 1 solutions by the absorption of one or more five-branes from the bulk space onto the i-th six-plane.

We first consider the case where

n_{T i} = 0 . (4.55)

In this case, no further Green-Schwarz type mechanism in six-dimensions is possible and the anomaly must vanish identically. We see from (4.54) that this is possible if and only if

g_i = −3/4, η = 1 . (4.56)

It is important to note that this solution only exists for a non-vanishing value of parameter η. Hence, the additional Chern-Simons interactions (4.49) are essential for the anomaly to vanish identically in the n_{T i} = 0 case. Inserting these results into expression (4.43) for the vanishing of the irreducible tr R^4 term, and recalling that n_{V i} = 0, we find that

− 2n_{Hi} + ñ_{V i} − ñ_{Hi} = −1 . (4.57)

Equation (4.57) can be solved in several ways. Remembering that G̃_i = U(1), the first solution then consists of allowing the U(1) hypermultiplet to descend to the six-plane while projecting out the U(1) vector multiplet. Equation (4.57) is then solved by taking the number of twisted hypermultiplets to vanish. That is, take

ñ_{Hi} = 1, ñ_{V i} = 0, n_{Hi} = 0 . (4.58)

The second solution follows by doing the reverse, that is, projecting out the U(1) hypermultiplet and allowing the U(1) vector multiplet to descend to the six-plane. In this case, equation (4.57) is solved by taking ñ_{Hi} = 0, ñ_{V i} = 1, n_{Hi} = 1 . (4.59) Let us now consider the case where n_{T i} = 1 . (4.60) In this case, the anomaly (4.54) can be removed by a six-dimensional Green-Schwarz mechanism as long as it factors into an exact square. It is straightforward to show that this will be the case if and only if 4 ( 3 + η ) ( 3 + 4 g_i ) = ( 5 + 8 g_i + η )^2 . (4.61) This equation has two solutions g_i = −3/4, η = 1 (4.62) and g_i = 1/4, η = 1 . (4.63) Again, note that these solutions require a non-vanishing value of the parameter η. Hence, the additional Chern-Simons interactions (4.49) are also essential for anomaly factorization in the n_{T i} = 1 case. Inserting these into the expression for the vanishing of the irreducible tr R^4 term, and recalling that n_{V i} = 0, we find − 2n_{Hi} + ñ_{V i} − ñ_{Hi} = 57 (4.64) and − 2n_{Hi} + ñ_{V i} − ñ_{Hi} = −3 . (4.65) The first equation (4.64) cannot be solved within the context of G̃_i = U(1), since ñ_{V i} ≤ 1. The second equation, however, has two solutions ñ_{Hi} = 1, ñ_{V i} = 0, n_{Hi} = 1 (4.66) and ñ_{Hi} = 0, ñ_{V i} = 1, n_{Hi} = 2 . (4.67)

In either case, the anomaly (4.54) factors into an exact square given by − 3 (2π)^34! 16 ( tr R^2 − 1 15 Tr F^2_i

)_2 . (4.68)

The anomaly can now be cancelled by a Green-Schwarz mechanism on the six-plane. First, one alters the Bianchi identity for the anti-self-dual tensor in the twisted sector tensor multiplet from dH_{T i} = 0, where H_{T i} is the tensor field strength three-form, to dH_{T i} = 1 16π^2

( tr R^2 − 1 15 Tr F^2_i ) . (4.69)

Second, additional Chern-Simons terms are added to the action, one for each six-plane. The required terms are S = · · · − 1 64π 32∑ i=1 ∫ δ^{(5)}_{M 6i} ∧ B_{T i} ∧ ( tr R^2 − 1 15 Tr F^2_i ) , (4.70)

where B_{T i} is the anti-self-dual tensor two-form on the i-th six-plane. Using Bianchi identity (4.69), one can compute the variation of each such term under Lorentz and gauge transformations. The result is a classical anomaly that descends from an eight-form that exactly cancels expression (4.68). The theory is now anomaly free.

Thus, we have demonstrated, within the context of an explicit orbifold fixed plane intersection where the β Z_2 projection to the six-plane leaves E_8 unbroken, that all local anomalies can be cancelled. However, this cancellation requires that the intersecting sevenplane support a twisted sector consisting of a U(1) N = 1 vector supermultiplet and an associated Chern-Simons term. This term is of the form (4.49) with η = 1 and ρ = 0. The fact that ρ = 0 in this context follows directly from the property that E_8 is unbroken by the β projection.

We conclude that, as has been discussed in detail in [54, 55, 56, 57] and [58, 59], anomaly free M-theory orbifolds associated with the spacetime R^6 × K3 can be constructed in detail, including the entire twisted and untwisted spectra. This work has now been extended to orbifolds of spacetime R^4 ×CY_3, where CY_3 is a Calabi-Yau threefold, in [60]. This last work opens the door to finding realistic standard model-like M-theory vacua within this context.

5 Discussion

Hořava-Witten theory and its compactification on Calabi-Yau threefolds to heterotic Mtheory have stimulated a great deal of both formal M-theory research as well as discussions of the associated phenomenology. In addition to the papers referenced in the above lectures, further relevant literature can be found in [61, 62, 63, 64, 65, 66, 67, 68, 69, 70, 71, 72, 73, 74, 75, 76, 77, 78, 79, 80].

Heterotic M-theory has also served as a consistent and phenomenologically relevant venue for studying M-theory cosmology. This research comes in two catagories. The first consists of work discussing subluminal expansion, Kasner-like solutions and inflation within the context of brane world scenarios associated with heterotic M-theory. These results can be found in [81, 82, 83, 84, 85, 86, 87]. Very recently, a new theory of the early universe, called the Ekpyrotic Universe, has been constructed for generic brane world scenarios, including heterotic M-theory. In the Ekpyrotic scenario, all expansion is subluminal, with no period of inflation. A nearly scale-invariant spectrum of fluctuations in the microwave background is obtained, not as quantum fluctuations in deSitter space but, rather, as the fluctuations on a bulk brane or end-of-the-world brane as it moves through the fifth-dimension. The fundamental papers on this subject can be found in [88, 89, 90, 91, 92, 93].

Acknowledgements

Burt Ovrut is supported in part by the DOE under contract No. DE-AC02-76-ER-03071.

References

[1] P. Hořava and E. Witten, Nucl. Phys. B460 (1996) 506.

[2] P. Hořava and E. Witten, Nucl. Phys. B475 (1996) 94.

[3] A. Lukas, B. A. Ovrut, K.S. Stelle and D. Waldram, The Universe as a Domain Wall, Phys.Rev. D59 (1999) 086001.

[4] A. Lukas, B. A. Ovrut, K.S. Stelle and D. Waldram, Heterotic M–theory in Five Dimensions, Nucl.Phys. B552 (1999) 246-290.

[5] E. Cremmer, in Superspace and Supergravity, ed. S. W. Hawking and M. Rocek, pp. 267– 282, Cambridge University Press (1981).

[6] M. Günaydin, G. Sierra and P.K. Townsend, Nucl. Phys. B242 (1084) 244.

[7] A. C. Cadavid, A. Ceresole, R. D’Auria and S. Ferrara, Phys. Lett. B357 1995 76; I.

Antoniadis, S. Ferrara and T. R. Taylor, Nucl. Phys. B460 (1996) 489.

[8] M. B. Green, J. H. Schwarz and E. Witten, Superstring Theory, vol. 2, pp. 386, Cambridge University Press (1987).

[9] I. V. Lavrinenko, H. Lü and C. N. Pope, Nucl. Phys. B492 (1996) 278. [10] A. H. Chamseddine and H. Nicolai, Phys. Lett. B96 (1980) 89. [11] M. Günaydin, G. Sierra and P.K. Townsend, Nucl. Phys. B253 (1985) 573. [12] G. Sierra, Phys. Lett. 157B (1985) 379. [13] A. Strominger, Phys. Lett. B383 (1996) 44. [14] L. Andrianopoli et al., Nucl. Phys. B476 (1996) 397. [15] J. Polchinski and A. Strominger, Phys. Lett. B388 (1996) 736. [16] J. Michelson, Nucl. Phys. B495 (1997) 127. [17] E. Witten, Nucl. Phys. B471 (1996) 135. [18] T. Banks and M. Dine, Nucl. Phys. B479 (1996) 173. [19] P. Hořava, Phys. Rev. D54 (1996) 7561.

[20] A. Lukas, B. A. Ovrut and D. Waldram, On the Four-Dimensional Effective Action of Strongly Coupled Heterotic String Theory, Nucl.Phys. B532 (1998) 43-82.

[21] K. Choi, Phys. Rev. D56 (1997) 6588.

[22] H. P. Nilles, M. Olechowski and M. Yamaguchi, Phys. Lett. B415 (1997) 24. [23] I. Antoniadis and M. Quirós, Phys. Lett. B416(1998) 327.

[24] K. Choi, H. B. Kim and C. Muñoz, Four–Dimensional Effective Supergravity and Soft Terms in M–Theory, KAIST-TH 97/20, FTUAM 97/16, hep-th/9711158.

[25] A. Lukas, B. A. Ovrut and D. Waldram, Gaugino Condensation in M–theory on S^1/Z_2, Phys.Rev. D57 (1998) 7529-7538.

[26] H. P. Nilles, M. Olechowski and M. Yamaguchi, Supersymmetry Breakdown at a Hidden Wall, BONN-TH-97-10, hep-th/9801030.

[27] A. Lukas, B. A. Ovrut and D. Waldram, The Ten-dimensional Effective Action of Strongly Coupled Heterotic String Theory, Nucl.Phys. B540 (1999) 230-246.

[28] T. Li, Compactification and Supersymmetry Breaking in M Theory, hep-th/9801123. [29] M. Faux, New Consistent Limits of M Theory, HUB-EP-98-9, hep-th/9801204. [30] E. Bergshoeff, M. de Roo, M. B. Green, G. Papadopoulos and P. K. Townsend, Nucl.

Phys. B470 (1996) 113.

[31] L. J. Romans, Phys. Lett. B169 (1986) 374.

[32] H. Lu, C. N. Pope, E. Sezgin and K. S. Stelle, Phys. Lett. B371 (1996) 46; P. M.

Cowdall, H. Lu, C. N. Pope, K. S. Stelle and P. K. Townsend, Nucl. Phys. B486 (1997) 49.

[33] R. Friedman, J. Morgan, E. Witten, Commun.Math.Phys. 187 (1997) 679-743. [34] R. Donagi, Asian Journal of Math., Vol 1, (1997)214, math.AG/ 9702002. [35] R. Friedman, J. Morgan, E. Witten, math.AG/9709029 (1997).

[36] R. Donagi, A. Lukas, B.A. Ovrut and D. Waldram, JHEP 9905 (1999) 018, JHEP 9906 (1999) 034; R. Donagi, B.A. Ovrut and D. Waldram, JHEP 9911 (1999) 030; R. Donagi, J. Khoury, B.A. Ovrut, P.J. Steinhardt and N. Turok, hep-th/0105199 (2001).

[37] R. Donagi, B.A. Ovrut, T. Pantev and D. Waldram, hep-th/9912208 (1999) to appear;

JHEP 0108 (2001) 053; math.AG/0008010 (2000) to appear; math.AG/0008011 (2000) to appear.

[38] G. W. Gibbons and P. K. Townsend, Phys. Rev. Lett. 71 (1993) 3754. [39] D. M. Kaplan and J. Michelson, Phys. Rev. D53 (1996) 3474. [40] I. Bandos et al., Phys. Rev. Lett. 78 (1997) 4332. [41] M. Aganagic et al., Nucl. Phys. B496 (1997) 191. [42] R. Kallosh, Phys. Rev. D57 (1998) 3214.

[43] P. Claus, R. Kallosh and A. Van Proeyen, Nucl. Phys. B518 (1998) 117.

[44] K. Becker, M. Becker and A. Strominger, Nucl. Phys. B456 (1995) 130. [45] M. Bershadsky, V. Sadov and C. Vafa, Nucl. Phys. B463 (1996) 420. [46] E. Witten, Nucl. Phys. B500 (1997) 3. [47] A. Klemm et al., Nucl. Phys. B477 (1996) 746. [48] E. Witten, J. Geom. Phys. 22 (1997) 1.

[49] A. Grassi, Z. Guralnik and B.A. Ovrut, JHEP 0101 (2001) 037. [50] A. Grassi, Z. Guralnik and B.A. Ovrut, hep-th/0110036 (2001). [51] K. Kodaira, Ann. of Math. 77 (1963) 563.

[52] K.Dasgupta and S.Mukhi, Nucl.Phys. B465 (1996) 399-412. [53] E.Witten, Nucl.Phys. B463 (1996) 383-397.

[54] M.Faux, D.Lüst and B.A.Ovrut, Nucl.Phys. B554 (1999) 437-483. [55] M.Faux, D.Lüst and B.A.Ovrut, Nucl.Phys. B589 (2000) 269-291. [56] M.Faux, D.Lüst and B.A.Ovrut, hep-th/0010087 (2000). [57] M.Faux, D.Lüst and B.A.Ovrut, hep-th/0011031 (2000). [58] A. Bilal, J.-P. Derendinger and R. Sauser, Nucl.Phys. B576 (2000) 347-374. [59] V. Kaplunovsky, J. Sonnenschein, S. Theisen and S. Yankielowicz, Nucl.Phys. B590 (2000) 123-160.

[60] C. Doran, M. Faux and B.A. Ovrut, hep-th/0108078 (2001). [61] I. Antoniadis and M. Quirós, Phys. Lett. B392 (1997) 61.

[62] E. Caceres, V. S. Kaplunovsky and I. M. Mandelberg, Nucl. Phys. B493 (1997) 73. [63] H.-P. Nilles and S. Stieberger, Nucl. Phys. B499 (1997) 3. [64] T. Li, J. L. Lopez and D. V. Nanopoulos, Mod. Phys. Lett. A12 (1997) 2647. [65] J. O. Conrad, TUM-HEP-289-97, hep-th/9708031.

[66] E. Dudas and C. Grojean, Nucl. Phys. B507 (1997) 553. [67] E. Dudas and J. Mourad, Phys. Lett. B400 (1997) 71. [68] Z. Lalak, A. Lukas and B. A. Ovrut, Phys.Lett. B425 (1998) 59-70. [69] Z. Lalak, S. Pokorski and S. Thomas, CERN-TH/98-230, hep-ph/9807503. [70] Z. Lalak and S. Thomas, Gaugino Condensation, Moduli Potential and Supersymmetry Breaking in M–theory Models, QMW-PH-97-23, hep-th/9707223.

[71] E. Dudas, Supersymmetry breaking in M–theory and Quantization Rules, CERN-TH/97- 236, hep-th/9709043.

[72] J. Ellis, A. E. Faraggi and D. V. Nanopoulos, M–theory Model-Building and Proton Stability, CERN-TH-97-237, hep-th/9709049.

[73] D. V. Nanopoulos, M Phenomenology, CTP-TAMU-42-97, hep-th/9711080. [74] P. Majumdar and S. SenGupta, Gaugino Mass in the Heterotic String with Scherk– Schwarz Compactification, SINP-98-05, hep-th/9802111.

[75] N. Wyllard, The Heterotic Prepotential from Eleven Dimensions, GOTEBORG-ITP- 98-01, hep-th/9802148.

[76] D. Bailin, G.V. Kraniotis and A. Love, Sparticle Spectrum and Dark Matter in M Theory, SUSX-TH-98-003, hep-ph/9803274.

[77] E. Sharpe, Boundary Superpotentials, PUPT-1660, hep-th/9611196. [78] E. A. Mirabelli and M. E. Peskin, Transmission of Supersymmetry Breaking from a Four–Dimensional Boundary, SLAC-PUB-7681, hep-th/9712214.

[79] J. Ellis, Z. Lalak, S. Pokorski and W. Pokorski, Five–dimensional Aspects of M–theory and Supersymmetry Breaking, CERN-TH-98-118, hep-ph/9805377.

[80] S. P. de Alwis, Phys. Lett. B388 (1996) 291; Phys. Lett. B392 (1997) 332. [81] A. Lukas and B. A. Ovrut, UPR-770-T, Phys.Lett. B437 (1998) 291-302. [82] K. Benakli, hep-th/9804096.

[83] A. Lukas, B. A. Ovrut and D. Waldram, Phys.Rev. D60 (1999) 086001. [84] A. Lukas, B. A. Ovrut and D. Waldram, hep-th/9812052, Lectures presented at the Advanced School on Cosmology and Particle Physics, Peniscola, Spain, June 1998.

[85] A. Lukas, B. A. Ovrut and D. Waldram, Phys.Rev. D61 (2000) 023506. [86] G. Huey, P.J. Steinhardt, B.A. Ovrut and Daniel Waldram, Phys.Lett. B476 (2000) 379-386.

[87] M. Braendle, A. Lukas, B.A. Ovrut, Phys.Rev. D63 (2001) 026003. [88] J. Khoury, B.A. Ovrut, P.J. Steinhardt and N. Turok, hep-th/0103239 (2001); hepth/0105212 (2001).

[89] R. Donagi, J. Khoury, B.A. Ovrut, P.J. Steinhardt and N. Turok, hep-th/0105199 (2001).

[90] J. Khoury, B.A. Ovrut, N. Seiberg, P.J. Steinhardt and N. Turok, hep-th/0108187 (2001).

[91] J. Khoury, B.A. Ovrut, P.J. Steinhardt and N. Turok, hep-th/0109050 (2001). [92] P.J. Steinhardt and N. Turok, hep-th/0111030 (2001). [93] P.J. Steinhardt and N. Turok, hep-th/0111098 (2001).