arXiv:hep-th/0411216 v2 14 Jun 2005

CERN-PH-TH/2004-223 NEIP/04-07 IFUP-TH/2004-33 HD-THEP-04-51

Gravitational quantum corrections in warped supersymmetric brane worlds

T. Gregoire^a, R. Rattazzi^{a1}, C. A. Scrucca^{b,a} A. Strumia^c, E. Trincherini^{d,e}

aPhysics Department, Theory Division, CERN, CH-1211 Geneva 23, Switzerland

bInstitut de Physique, Université de Neuchâtel, CH-2000 Neuchâtel, Switzerland

cDipartimento di Fisica, Università di Pisa, I-56126 Pisa, Italy

dDipartimento di Fisica, Università di Milano Bicocca, I-20126 Milano, Italy

eInstitut für Theor. Physik, Universität Heidelberg, D-69120 Heidelberg, Germany

Abstract

We study gravitational quantum corrections in supersymmetric theories with warped extra dimensions. We develop for this a superfield formalism for linearized gauged supergravity. We show that the 1-loop effective Kähler potential is a simple functional of the KK spectrum in the presence of generic localized kinetic terms at the two branes. We also present a simple understanding of our results by showing that the leading matter effects are equivalent to suitable displacements of the branes. We then apply this general result to compute the gravity-mediated universal soft mass m^2_0 in models where the visible and the hidden sectors are sequestered at the two branes. We find that the contributions coming from radion mediation and brane-to-brane mediation are both negative in the minimal set-up, but the former can become positive if the gravitational kinetic term localized at the hidden brane has a sizable coefficient. We then compare the features of the two extreme cases of flat and very warped geometry, and give an outlook on the building of viable models.

1On leave from INFN, Pisa, Italy.

1 Introduction

Low energy supersymmetry is arguably the best motivated extension of the Standard Model (SM). It solves the gauge hierarchy problem, has a natural dark matter candidate, and in the minimal scenario predicts gauge coupling unification. However, supersymmetry needs to be broken in order to give weak scale masses to the superpartners. In order for all the superpartners to be heavier than the SM particles, supersymmetry is typically broken in a hidden sector and transmitted to the SM by gravitational [1] or gauge interactions [2] (for a review see [3]). At low energy, the breaking of supersymmetry is encoded in soft supersymmetry breaking terms. A crucial point in designing a supersymmetry breaking scenario is to ensure that the soft scalar masses do not generate phenomenologically unacceptable Flavor Changing Neutral Currents (FCNC). The safest way of doing this is to generate soft masses in the IR, where the only flavor spurions are the Yukawa matrices. This insures that there will be a super-GIM mechanism suppressing FCNC. Gauge mediation is of this type, while ordinary gravity mediation is not, because the soft masses are affected by divergent gravity loops dominated in the UV. Another supersymmetry breaking transmission mechanism that is safe with respect to flavor is anomaly mediation [4, 5]. In this scenario, supersymmetry breaking is transmitted via the super-Weyl anomaly, so that it is also dominated in the IR. However, the anomaly mediated contribution is parametrically smaller than the ordinary gravity mediated one. A way to suppress gravity mediation is to invoke an extra dimension of space. This allows to spatially separate the visible sector from the hidden sector where supersymmetry is broken. By locality, contact interactions between the two sectors are absent at tree level and are only generated by calculable gravity loops. The contribution to the soft parameters from these effective operators and the one from anomaly mediated have different radius dependence. For large enough radius, anomaly mediation dominates, leading to a sharp prediction for the soft terms. Unfortunately this sharp prediction entails tachyonic sleptons. Thus pure anomaly mediation is not viable and extra contributions should be invoked. A natural and interesting next-to-minimal scenario is obtained when the radius is small enough for the finite gravitational loops to compete with anomaly mediation effects [6]. In principle this can cure the tachyonic sleptons while keeping an energy gap between the scale of mediation, the inverse radius 1/R, and the five-dimensional (5D) quantum gravity scale M_5 at which presumably extra flavor breaking effects come into play. The presence of this energy gap allows to control the size of flavor violation in soft terms.

In the simplest situation of a flat geometry, the effective low-energy theory is described in terms of the visible and hidden sector chiral superfields Φ_i with i = 0, 1, the radion field T , whose scalar component vacuum expectation value (VEV) determines the radius ⟨T ⟩ = πR, and the 5D Planck scale M_5. The tree-level kinetic function has the form^2:

Ω_{tree} = −3M^3_5 ( T + T^† ) + Φ^†_0Φ_0 + Φ^†_1Φ_1 . (1.1)

The radius dependence of the non-local operators induced by gravity loops is completely fixed by simple power counting (notice that each graviton line brings in a factor of 1/M^3_5 ). The operators that are relevant for soft scalar masses are easily seen to have the form

Ω_{1−loop} ⊃ a

Φ^†_0Φ_0 M^3_5 (T + T^†)^3 + a Φ^†_1Φ_1 M^3_5 (T + T^†)^3 + b Φ^†_0Φ_0Φ^†_1Φ_1 M^6_5 (T + T^†)^4

. (1.2)

When supersymmetry is broken, the radion and the hidden sector chiral multiplets get in general non-zero F -terms, and the visible sector scalar fields get soft masses respectively from one of the first two terms and from the third term in ref. (1.2). The former give the so-called radion mediated contribution, and its coefficient a was calculated for the first time in ref. [7]. The latter yields the brane-to-brane mediated contribution and its coefficient b was recently calculated in refs. [8, 9]. Both contributions turn out to be negative in the simplest situation. However in ref. [8] the soft masses were computed also in a more general case, where the supergravity fields have non-vanishing localized kinetic terms. It was shown, in particular, that a kinetic term with a large coefficient at the hidden brane changes the sign of the radion-mediated contribution but not its size, whereas it does not change the sign of the brane-to-brane-mediated contribution but suppresses its size. It was then shown that in this situation a viable model of supersymmetry breaking with competing effects from gravity and anomaly mediation can be achieved.

The main qualitative effects of a large kinetic term on the hidden brane is to shift the spectrum of the Kaluza–Klein (KK) modes and localize their wave functions away from the hidden brane. This is somewhat similar to what happens in a warped geometry like the RS1 set-up of ref. [10]. It is then conceivable that a warping of the geometry could lead to an acceptable pattern of gravity-mediated soft terms, representing perhaps a more natural and appealing substitute for the localized kinetic terms invoked in ref. [8]. The aim of this paper is to generalized the analysis of refs. [8, 9] to warped geometries by computing the full effective Kähler potential in a supersymmetric version of the RS1 set-up. In order to investigate the quantitative relation between the effects of warping and localized kinetic terms, we shall moreover allow for arbitrary localized kinetic terms at the two branes in the warped case as well.

In the regime where the warping is significant, the expected form of the corrections can be deduced from the AdS/CFT correspondence [11]. According to

2The Kähler potential is given by K = −3 ln(−Ω/3), in units of the 4D Planck mass. Throughout this paper, with an abuse of nomenclature, we will often refer to Ω as the Kähler potential.

this correspondence, all the physics of a RS1 model is equivalent to that of a 4D conformal field theory in which the conformal symmetry is non-linearly linearized in the IR and explicitly broken in the UV, and in which 4D gravity is gauged [12, 13, 14, 15, 16, 17]. The coordinates that are most suitable for studying the holographic interpretation of the RS model are the ones where the metric is written as: ds^2 =

L^2 z^2 ( dx_μdx^μ + dz^2 ) (1.3)

where L is the AdS radius length and where boundaries at z = z_0 and z = z_1 with z_0 ≪ z_1 are assumed. From the CFT point of view, the z coordinate corresponds to a renormalization scale. In this respect the boundaries at z_0 and z_1 are named respectively the UV brane and the IR brane. The presence of the UV brane corresponds to cutting off the CFT in the UV at the energy scale 1/z_0 and to gauging 4D gravity. Indeed the graviton zero mode is localized at the UV brane, and the effective 4D Planck mass is M^2 = (M^3_5 L^3)/z^2_0 . Notice that when z_0 → 0 the Planck mass diverges and 4D gravity decouples. By a change of x, z coordinates we can however always work with z_0 = L, in which case we get the familiar RS parametrization M^2 = M^3_5 L. The presence of the IR brane at the position z = z_1 corresponds instead to a spontaneous breaking of conformal invariance in the IR at the energy 1/z_1. The radion field of the 5D theory basically corresponds to fluctuations in the position z_1 of the IR brane and can be interpreted as the Goldstone boson of spontaneously broken dilatation invariance. Matter fields on the UV brane are identified with elementary fields coupled to the CFT through gravity and higher-dimensional operators suppressed by powers of the UV cut-off 1/z_0. On the other hand, compatibly with the interpretation of z as an RG scale, matter fields living at z_1 are interpreted as bound states with compositeness scale of order 1/z_1. In the limit where the position z_0 of the Planck brane is sent to 0, the theory becomes conformal, implying, among other things, that the couplings of the radion are dictated by conformal invariance. It then follows that for z_0 → 0 the Kähler potential, including quantum corrections, must have its tree-level form. Any correction with a different dependence would explicitly break conformal invariance. Moving the Planck brane in, however, makes the 4D graviton dynamical and breaks conformal symmetry explicitly. Due to this, non-trivial corrections to the Kähler potential are induced by graviton loops attached to the CFT. These loops are cut-off at the KK scale 1/z_1, playing the role of the scale of compositeness. The induced effects are therefore suppressed by powers of 1/(z_1M)^2.

To write the low energy effective theory of the supersymmetric RS model it is convenient to parameterize the radion with a superfield μ whose scalar component VEV is precisely the position of the IR brane: ⟨μ⟩ = 1/z_1. The effective kinetic function can then be written as

Ω_{tree} = −3M^3_5 L^3( 1 L^2 − μ^†μ ) + Φ^†_0Φ_0 + Φ^†_1Φ_1μ^†μL^2 (1.4)

Determining the form of the leading terms in the 1-loop action is more difficult than in the flat case, since there are now two length scales L and z_1 instead of just one (T ). Simple power counting must therefore be supplemented by additional considerations. The use of the holographic pictures provides a very direct power counting insight. Apart from “trivial” UV divergent effects of the same form as the tree-level action, the calculable effects must be related to the explicit breakdown of conformal invariance due to the propagating 4D graviton. These corrections can be represented diagrammatically as in fig. 1. Keeping in mind that the quantum corrections are saturated by he only physical IR scale, i.e. the compositeness scale μ, it is easy to power-count these effects to obtain

Ω_{1−loop} ⊃ a_0

(μ^†μ)^2Φ^†_0Φ_0 k^2M^2

+ a_1

(μ^†μ)^2Φ^†_1Φ_1 k^2M^2 + b (μ^†μ)^2Φ^†_0Φ_0Φ^†_1Φ_1 k^2M^4

. (1.5)

where k = 1/L. For instance the first term is obtained by the second diagram in fig. 1 as the product of the following factors

N^2 × Φ^†_0Φ_0 × ( 1 M^2

)_2 × (μμ^†)^2 , (1.6)

where the first factor N^2 ≡ (M_5L)^3 counts the numerical coefficient in front of the CFT action [12, 13, 14, 15, 16, 17], the second and third factors are obvious, while the fourth factor is just dictated by dimensional analysis once μ is recognized as the only IR scale. Eq. (1.5) represents the leading effect due to 4D graviton loops. However the UV brane introduces also an explicit UV cut-off equal to 1/z_0 ≡ 1/L, so that we expect further corrections to eq. (1.5) supressed by powers of μμ^†L^2. These terms are unimportant for μL ≪ 1, i.e for large warping. However when the warping gets small these higher powers become crucial to reproduce the flat case result. Finally, upon supersymmetry breaking, there will again be a radionmediated and a brane-to-brane-mediated contribution to the soft masses, and it is therefore important to compute the coefficients a_{0,1} and b, and in particular their signs.

The results of the explicit computation we shall present in the next sections show that in the absence of localized kinetic terms, the coefficients a_{0,1} and b are positive and the corresponding soft masses squared are negative. This means that a significant warping of the geometry, while qualitatively similar to, is quantitatively different than having large localized kinetic terms in flat space. In the presence of a single sizable localized kinetic term on one of the two branes, which is then identified with the hidden sector, the situation is found to change as follows. If the hidden sector is at the UV brane, the effect of the localized kinetic term amounts basically to a rescaling of the 4D Planck mass, and the coefficients a_1 and b that are relevant for the radion-mediated and brane-to-brane-mediated effects get both suppressed without changing sign. If instead the hidden sector is at the IR brane,

CFT CFT

Φ_0 Φ^†_0

Figure 1: The two kinds of diagrams that are responsible for the effective operators that we are interested in from the CFT point of view.

a non-vanishing localized kinetic term tends to change the sign of the coefficient a_0 relevant for radion mediation, and to suppress the size of the coefficient b relevant for brane-to-brane mediation while preserving its sign. This last case is therefore potentially as viable as the flat case. However there is a limitation on the size of the coefficient of the localized kinetic term on the IR brane: if it is too large then the radion becomes a ghost [18]. In order to understand whether and to what extent a warping of the geometry can be a helpful and appealing supplement to localized kinetic terms, it is therefore necessary to perform a detailed analysis at finite warping and localized kinetic terms.

There are various techniques that can be used to perform the calculation of the gravitational loop effects discussed above in the general case of finite warping. One possible approach is the off-shell component formalism of Zucker [19, 20, 21], which was used in the flat case in ref. [8]. This approach is somewhat inconvenient in the warped case for two reasons. First, the formalism is plagued with singular products of distributions that are hard to deal with in warped space. Second, the trick used by ref. [8] of considering a background with a non-zero VEV for the F -term of the radion multiplet and calculating the induced potential instead of the correction to the Kähler potential, is also hard to generalize to the warped case. Another possible approach is the superfield formalism employed in ref. [9], where only half of the bulk supersymmetry is manifest. This turns out to be easier to generalize to the warped case, and we shall therefore use it as the basic framework to set up the computation. In the end, however, it turns out that all the information that is needed to derive the result is effectively contained in the spectrum of a single massless scalar with arbitrary localized kinetic terms. In fact, the calculation of the full 1-loop correction to the Kähler potential is quite analogous to that of the effective potential for this simple system.

The paper is organized as follows. In sec. 2 we describe more precisely the context of our computation, namely the warped supersymmetric brane worlds based on the RS1 geometry. In sec. 3 we generalize the linearized superfield formalism of ref. [9] to the warped case, apply it to set up the supergraph computation of the gravitational loop effects that we want to compute, and study the structure of the latter to show that it effectively maps to a computation within a simple free theory of a real scalar field with localized kinetic terms. In sec. 4 we concretely perform the computation of the loop effects and discuss the results and their implications on the gravity-mediated soft mass terms. In sec. 5 we present a simple argument allowing to relate the form of the matter-dependent effects to the matter-independent one. In sec. 6 we discuss the application of our results to model building. Finally, app. A contains some useful technical details concerning the linearized superfield description of warped models. The readers who are not interested in the details concerning a rigorous set up of the computation within the superfield approach can skip sec. 3 and app. A and take sec. 4 as a starting point for the computation.

2 Warped supersymmetric brane worlds

In this section, we shall describe more precisely the context of our computation and introduce the basic notation we will use throughout the paper. Our starting point is the supersymmetric version of the 5D RS1 geometry [21, 22, 23, 24, 25, 26, 27, 28]. The theory is constructed by performing a gauging of 5D supergravity compactified on the orbifold S^1/Z_2. Denoting by y the internal coordinate and by y_0 = 0 and y_1 = πR the two fixed-points, the Lagrangian takes the form:

L = L_5 + δ_0(y)L_0 + δ_1(y)L_1 , (2.1)

where δ_i(y) = δ(y − y_i) and^3

L_5 = √ g_5 { −Λ_5 − 1 2 M^3_5 [ R_5 + iΨ̄_M ( Γ^{M RN}D_R − 3i 2 kϵ(y)Γ^{M N} ) Ψ_N + 1 2 F^2_{M N} ] + · · · } , L_i = √ g_4 { −Λ_i − 1 2 M^2_i ( R_4 + iΨ̄_μγ^{μρν} D_ρΨ_ν ) + ( |∂_μϕ_i|^2 + iψ̄_iγ^μD_μψ_i ) + · · · } . In this expression M_5 is the 5D fundamental scale, R is the radius of the compact extra dimension, k is a curvature scale and M_{0,1} are two scales parametrizing possible localized kinetic terms for the bulk fields, whereas Λ_5 and Λ_{0,1} are a bulk and two boundary cosmological constants that are tuned to the following values

Λ_5 = −6M^3_5 k^2 , Λ_0 = −Λ_1 = 6M^3_5 k . (2.2)

3There are two formulations of the supergravity extension of the RS model (presented respectively in [22, 23, 24] and [21, 25]) that are equivalent but differ by a singular gauge transformation [26, 27, 28]. This singular transformation makes the second formulation hard to deal with, and we therefore use the first.

We assume as usual that the compactification scale 1/R and the curvature k are much smaller than the fundamental scale M_5, so that we can reliably use the above 5D supergravity theory as an effective description of the physics of the model and neglect higher-dimensional operators.

The above theory has a non-trivial supersymmetric warped solution defining a slice of an AdS_5 space that is delimited by the two branes at y = y_{0,1}. Defining σ(y) = k|y|, the background is given by

g_{M N} = e^{−2σ}η_{μν} δ^μ_M δ^ν_N + δ^y_M δ^y_N , Ψ_M = 0 , A_M = 0 . (2.3)

Notice that the 4D geometry is flat at every point y of the internal dimension, but the conformal scale of the metric varies exponentially with it. This gives rise to a dependence of physical effective energy scales on y.

2.1 Effective theory

At energies much below the compactification scale, the fluctuations around the above background solution are described by a 4D supergravity with vanishing cosmological constant. The fields of this effective theory are the massless zero mode of the 5D theory and fill out a supergravity multiplet G = (h_{μν} , ψ_μ) and a radion chiral multiplet T = (t, ψ_t). They are defined by parametrizing the fluctuations around the background as follows:

g_{μν} = exp ( −2σ Re t πR )( η_{μν} + h_{μν} ) , g_{μy} = 0 , g_{yy} = (Re t πR )_2 ; Ψ_μ = ψ_μ , Ψ_y = √ 2 π ψ_t ; A_μ = 0 , A_y = √ 3 √ 2π Im t . (2.4)

Substituting eqs. (2.4) into eq. (2.1) and integrating over the internal dimension, one finds the following effective Kähler potential [29]:

Ω(T + T^†, Φ_i, Φ^†_i ) = −3

M^3_5 k ( 1 − e^{−k(T +T †)} ) + Ω_0(Φ_0, Φ^†_0) + Ω_1(Φ_1, Φ^†_1) e^{−k(T +T †)} . (2.5)

The first term is the matter-independent contribution from the bulk, whereas the last two terms are the matter-dependent contributions from the branes

Ω_i(Φ_i, Φ^†_i ) = −3M^2_i + Φ^†_i Φ_i + . . . . (2.6)

The dots denote irrelevant operators involving higher powers of Φ^†_i Φ_i. Note that there is a limit on the possible size of M_1, because if M^2_1 > M^3_5 /k, the radion, parametrized by exp(−kT ), becomes a ghost [18]. Superpotentials W_i localized on the branes give rise to the following effective superpotential at low energy:

W (T, Φ_i) = W_0(Φ_0) + W_1(Φ_1) e^{−kT} . (2.7)

Finally, the effective Planck scale can be read off from the part of (2.5) after substituting T with its VEV πR. One finds, assuming vanishing matter VEVs,

M^2 =

M^3_5 k ( 1 − e^{−2πkR} ) + M^2_0 + M^2_1 e^{−2πkR} . (2.8)

Assume now that the field Φ_0 represents collectively the fields of the visible sector, while T and Φ_1 represent the hidden sector. It is evident that the above tree level action does not induce any soft terms even after supersymmetry is broken. Notice that the result would be the same in the reversed situation where Φ_1 represents the visible sector. This is because the radion couples to Φ_1 as a conformal compensator: tree level effects can be easily seen to cancel through a field redefinition Φ^′_1 = Φ_1e^{−kT} . Therefore the above tree Lagrangian realizes the sequestering of the hidden sector. Soft terms can only be induced by calculable quantum corrections.

2.2 Loop corrections

The corrections to the Kähler potential of the effective theory that are induced by loops of bulk modes come in two different classes. The first class represents a trivial renormalization of the local operators corresponding to the classical expression (2.5). As we just explained, terms of this form do not mediated soft masses: although UV divergent (or better, uncalculable), this correction is uninteresting. A second class corresponds instead to new effects that have a field dependence different from the one implied by locality and general covariance in (2.5). By definition these effects are genuinely non-local and, therefore, finite and calculable. These corrections can be parametrized in the following general form:

ΔΩ(T + T^†, Φ_i, Φ^†_i ) = ∞∑ n_0 ,n_1=1

C_{n0,n1} (T + T^†)(Φ^†_0Φ_0)^{n0} (Φ^†_1Φ_1)^{n1} . (2.9)

The functions c_{n0 ,n1} control the leading effects allowing the transmission of supersymmetry breaking from one sector to the other, and can be computed along the same lines as for the flat case, which was studied in refs. [8] and [9].

Unfortunately the trick that was used in ref. [8], namely computing the effective potential at F_T ≠ 0 and deducing from it the form of eq. (2.9), cannot be generalized in a straightforward way to the warped case. In the flat case, a consistent treelevel solution with F_T ≠ 0 and flat 4D (and 5D) geometry could be found by simply turning on constant superpotentials W_0 and W_1 at the boundaries. Since the interesting terms in the Kähler potential are associated to terms quadratic in F_T in the effective potential, and since F_T ∝ W_0 + W_1, it was enough to work with infinitesimal W_{0,1} and calculate the effective potential at quadratic order in W_{0,1}. Notice, by the way, that boundary superpotentials are just the only local, zeroderivative deformation that is available in 5D Poincaré supergravity. The situation is drastically modified in 5D AdS supergravity. In this case, by turning on boundary superpotentials we have that [30, 31, 32]: 1) the radius is stabilized, 2) the 4D metric of the 4D slices (and of the low energy effective theory) becomes AdS_4, 3) there is a (compact) degeneracy of vacua associated to the VEV of the graviphoton component A_5. At all points the scale of supersymmetry breaking is subdominant to the scale of AdS_4 curvature and at a special point supersymmetry is restored. The last property can be quantified by the deviation δm_{3/2} of the gravitino mass from its supersymmetric value, which is equal to the curvature 1/L_4 in AdS_4. One obtains δm_{3/2}L_4 ≤ ω^2, where ω is the AdS_5 warp factor. In principle one could go ahead and calculate corrections to the effective potential in this background and read back from it the effective Kähler potential. However the 4D curvature, as we said, cannot be treated as a subleading effect and this complicates both the calculation and the indirect extraction of the Kähler potential.

Rather than trying to encompass this difficulty, we will generalize to the warped case the linearized superfield approach that was used in [9] and in which the Kähler potential is calculated directly. This generalization is interesting on its own, and we will present it in detail in the next section. However, it turns out that the result that it produces for the correction to the effective Kähler potential is a very intuitive and obvious generalization of those derived in [8] and [9] for the flat case: one has just to replace the flat space propagators with the corresponding warped space ones. We shall prove this general result in a rigorous way with superfield techniques in the next section. The actual computation is postponed to a subsequent section.

3 Superspace description

A convenient way of performing loop calculations in supersymmetric theories is to use supergraph techniques. By calculating loop diagrams directly in terms of superfields, the number of graphs is greatly reduced, and various cancellations between graphs that are insured by supersymmetry are guaranteed to happen. Unfortunately, the use of this technique in theories with more than four space-time dimensions is not straightforward, because the amount of supersymmetry is higher than in four dimensions. From a 4D perspective, there are in this case several supercharges, and the simultaneous realization of the associated symmetries requires a superspace with a more complex structure. However, it is still possible to manifestly realize one of the 4D supersymmetries on a standard superspace, at the expense of losing manifest higher-dimensional Lorentz invariance [33, 34, 35, 36]. In this way, only a minimal N = 1 subgroup of the extended higher-dimensional supersymmetry will be manifest, but this turns out to be enough for our purposes.

In fact, writing higher-dimensional supersymmetric theories in term of N = 1 superfields not only simplifies loop computations, but makes it also easier to write down supersymmetric couplings between bulk and brane fields. As explained in ref. [37], the way of doing this is to group the higher-dimensional supermultiplets into subsets that transform under an N = 1 subgroup of the full higherdimensional supersymmetry. Brane couplings can then be written using the known 4D N = 1 supersymmetric couplings. Splitting higher-dimensional multiplets in different N = 1 superfields does just that, without having to look explicitly at the higher-dimensional supersymmetry algebra. Also, the couplings in component form often involve ambiguous products of δ functions that arise when auxiliary fields are integrated out. Using superfields this problem is avoided, because auxiliary fields are never integrated out. The drawback of the superfield approach is that, since higher-dimensional Lorentz invariance and the full supersymmetry are not manifest, one has to more or less guess the Lagrangian, and check that it reproduces the correct higher-dimensional Lagrangian in components.

This technique has been used for studying linearized 5D supergravity in flat space in ref. [36], and the resulting formalism has been successfully applied in ref. [9] to compute gravitational quantum corrections in orbifold models, with results that agree with those derived in ref. [8] by studying a particular component of the corresponding superspace effective operators. In the following, we will briefly review the approach of refs. [36, 9] for the case of a flat extra dimension, and then generalize it to the case of a warped extra dimension.

3.1 Bulk lagrangian for a flat space

The propagating fields of 5D supergravity consist of the graviton h_{M N} , the graviphoton B_M and the gravitino Ψ_M , which can be decomposed into two two-components Weyl spinors ψ^+_M and ψ^−_M . These fields can be embedded into a real superfield V_m, a complex general superfield Ψ_α, and two chiral superfields T and Σ, according to the following schematic structure:

V_m = θσ_nθ̄(h_{mn} − η_{mn}h) + θ̄^2θψ^+_m + · · · , (3.1) Ψ_α = θ̄σ^m (B_m + ih_{my}) + θσ_mθ̄ψ^−_m + θ̄^2ψ^+_y + · · · , (3.2) T = h_{yy} + iB_y + θψ^−_y + · · · , (3.3) Σ = s + · · · . (3.4)

The dots denote higher-order terms involving additional fields, which are either genuine auxiliary fields or fields that are a priori not but eventually turn out to be non-propagating [36]. We also need to introduce a real superfield P_Σ acting as a prepotential for the chiral conformal compensator Σ: Σ = −1/4D̄^2 P_Σ. This introduces yet more non-propagating fields.

Using the above fields, it is possible to construct in an unambiguous way a linearized theory that is invariant under infinitesimal transformations of all the local symmetries characterizing a 5D supergravity theory on an interval. These linearized gauge transformations consist of the usual 4D superdiffeomorphisms, which are parametrized by a general complex superfield L_α, and the additional transformations completing these to 5D superdiffeomorphims, which are parametrized by a chiral multiplet Ω. The corresponding linearized gauge transformations of the superfields introduced above are given by δV_m = − 1 2 σ̄^{αα̇}_m (¯ D_{α̇}L_α − D_αL̄_{α̇} ) δΨ_α = ∂_yL_α − 1 4 D_αΩ

δP_Σ = D^αL_α + h.c δT = ∂_yΩ . (3.5)

As usual, L_α also contains conformal transformations that extend the 4D super- Poincaré group to the full 4D superconformal group, but these extra symmetries are fixed by gauging away the compensator multiplet Σ.

The Lagrangian for linearized 5D supergravity in flat space can be constructed by writing the most general Lagrangian that is invariant under the above linearized gauge transformations. This fixes the Lagrangian up to one unknown constant that can be determined by imposing that the component form be invariant under 5D Lorentz transformations. The result is

L = M^3_5 ∫ d^4θ { 1 2 V^mK_{mn} V^n − 1 3 Σ^†Σ + 2i 3 ( Σ − Σ^† ) ∂^mV_m − 1 2 [ ∂_y V_{αα̇} − (¯ D_{α̇}Ψ_α − D_αΨ̄_{α̇} )]2 + 1 4 [ ∂_yP_Σ − ( D^αΨ_α + D̄_{α̇}Ψ̄^{α̇} )]2

− 1 2 [ T^† ( Σ + 2i∂_mV^m ) + h.c. ]} , (3.6)

where K_{mn} = 1 4 η_{nm}D^αD̄^2D_α + 1 24 σ̄^{α̇α}_m σ̄^{β̇β}_n [ D_α, D̄_{α̇} ] [ D_β , D̄˙_β ] + 2∂_m∂_n . (3.7)

The first line of (3.6) has the same form as the usual 4D linearized supergravity Lagrangian. To obtain the component Lagrangian, one chooses a suitable Wess– Zumino type of gauge, and eliminates all the auxiliary fields. By doing so, one correctly reproduces the linearized Lagrangian of 5D supergravity, with in addition some extra fields that do not propagate but have the dimensionality of propagating fields [36]. The above construction can be generalized to the S_1/Z_2 orbifold in a straightforward way, by assigning a definite Z_2 parity to each multiplet: V_m, Σ and T are even, whereas Ψ_α is odd.

The 5D Lagrangian (3.6) can be written in a physically more transparent form by using a complete set of projectors that defines the different orthogonal components of the real superfield V_m with superspin 0, 1/2, 1 and 3/2. The projectors are given by [38, 39, 40]:

Π^{mn}_0 = Π^{mn}_L P_C , (3.8)

Π^{mn}_{1/2} = 1 48 1 □ σ^m_{αα̇}σ^n_{ββ̇} [ D_α, D̄_{α̇} ] [ D_β , D̄˙_β ] + Π^{mn}_L P_T + 1 3 Π^{mn}_0 , (3.9)

Π^{mn}_1 = Π^{mn}_T P_C , (3.10)

Π^{mn}_{3/2} = − 1 48 1 □ σ^m_{αα̇}σ^n_{ββ̇} [ D_α, D̄_{α̇} ] [ D_β , D̄˙_β ] + η^{mn}P_T − Π^{mn}_L + 2 3 Π^{mn}_0 , (3.11)

in terms of the transverse and chiral projectors on vector superfields, which are given by P_T = − 1 8 D^αD̄^2D_α □ , P_C = 1 16 D^2D̄^2 + D̄^2D^2 □ , (3.12)

and the transverse and longitudinal projectors acting on vector indices, given by

Π^{mn}_T = η_{mn} − ∂_m∂_n □ , Π^{mn}_L = ∂_m∂_n □ . (3.13)

The kinetic operator (3.7) can then be written as K^{mn} = −2 □ ( Π^{mn}_{3/2} − 2 3 Π^{mn}_0 ) , (3.14)

Using the above complete set of superspin projectors, we can split the field V_m into four orthogonal parts V_0, V_{1/2}, V_1 and V_{3/2}. The first three transform non-trivially under local super-diffeomorphism, but not the last one, which is invariant. The Lagrangian (3.6) can then be equivalently rewritten as

L = M^3_5 ∫ d^4θ { −V^m_{3/2} ( □ + ∂^2_y ) V_{3/2m} − 2 3 [ ∂_mV^m_0 − i 2 ( Σ − Σ^† )]2

− 1 2 [ ∂_y ( V^{α̇α}_0 + V^{α̇α}_{1/2} + V^{α̇α}_1 ) − (¯ D_{α̇}Ψ_α − D_αΨ̄_{α̇} )]2 (3.15) + 1 4 [ ∂_yP_Σ − ( D^αΨ_α + D̄_{α̇}Ψ̄^{α̇} )]2 + i ( T −T^† )[ ∂_mV^m_0 − i 2 ( Σ − Σ^† )] } . We can see very clearly in this language why the compensator is needed. The kinetic Lagrangian for the gauge-invariant component V^m_{3/2} is non local, due to the singular form of Π^{mn}_{3/2}. This non-local part is cancelled by a similar non-local part coming from the kinetic Lagrangian of the gauge-variant component V^m_0 . The non-trivial variation under gauge transformations of this term is then compensated by that of Σ. Therefore the kinetic term of linearized 4D supergravity, the first line of eq. (3.15), decomposes as the sum of two invariant terms respectively of maximal (3/2) and minimal (0) superspin. This is fully analogous to the situation in ordinary Einstein gravity, where the linearized kinetic term decomposes as the sum of spin 2 and spin 0 components. Notice also that, like in Einstein gravity, V^m_{3/2} being the only component of maximal superspin, it cannot mix to any other component.

We can verify that the correct 4D N = 1 effective Lagrangian is obtained for the zero modes, by taking the even fields to depend only on the four dimensional coordinates and integrating over the extra dimension with radius R. To be precise, we use a hat to distinguish the 4D zero mode of each field from the corresponding 5D field itself. The result is:

L_{eff} = 2πRM^3_5 ∫ d^4θ { −V̂^m_{3/2} ( □ )^ V_{3/2m} − 2 3 [ ∂_mV̂^m_0 − i 2 (^ Σ − Σ̂^† )]2

+ i (^ T − T̂^† )[ ∂_mV̂^m_0 − i 2 (^ Σ − Σ̂^† )] } . (3.16)

It can be verified (trivially for the V̂_m-independent terms) that this is indeed the quadratic expansion of the 4D supergravity Lagrangian, which can be written in terms of the 4D conformal compensator ϕ = exp (Σ̂/3) and the full 4D radion field T = πR(1 + T̂ ) as L_{eff} = −3M^3_5 ∫ d^4θ ( T + T^† ) ϕ^†ϕ . (3.17)

In this expression, the d^4θ integration is in fact an abbreviated notation for taking the D-term in a covariant manner. In particular, factors of the metric should be included. This result agrees with what was found in [41].

3.2 Bulk Lagrangian for warped space

We now turn our attention to the case of warped space. AdS_5 is not a solution of the ordinary, ungauged supergravity Lagrangian, which does not admit a cosmological constant. To have a cosmological constant term, a U(1)_R subgroup of the SU(2)_R symmetry must be gauged by the graviphoton. However, because we will restrict ourselves to the quadratic Lagrangian of supergravity, the gauging of the U(1)_R will not be apparent in our formalism. Within this gauged theory, we then assume a fixed background defined by eq. (2.3) and look for the quadratic Lagrangian for the fluctuations around that background.

The first important thing that we want to show is that the fluctuation Lagrangian can be written in terms of ordinary 4D superfields. To do so we start by considering the quadratic Lagrangian for 5D supergravity. At the local level there are two supersymmetries. However the boundary conditions on S_1/Z_2 are such that globally there remains at most one supersymmetry, regardless of there being 5D curvature. As it has been discussed in several papers, the locally supersymmetric RS1 model preserves one global supersymmetry Q^G_α . Technically this means that there exists one killing spinor ξ over the RS1 background. In bispinor notation, and introducing a generic constant Weyl spinor η^α, this Killing spinor has the form [24] ξ = ( e^{−σ/2}η^α 0 ) . (3.18)

The generator Q^G_α of the corresponding global supersymmetry is defined in terms of the generators of the local 5D supersymmetries, denoted in bispinor notation by Q^L ≡ (Q^L_2^α, Q̄^L_{1β̇}), by the equation η^αQ^G_α = ξQ̄^L = e^{−σ/2}η^αQ^L_{1α}, which implies

Q^G_α = e^{−σ/2}Q^L_{1α} . (3.19)

We can now realize Q^G and the rest of the global 4D super-Poincaré group (P_μ = i∂_μ plus Lorentz boosts) over ordinary flat 4D superspace:

Q^G_α = ∂ ∂θ^α − iσ^a_{αα̇}θ̄^{α̇}δ_a^μ∂_μ , (3.20)

In this realization of our field space, the fifth coordinate y is just a label upon which our 4D superfields S(x, y, θ) depend. Of course 5D covariance is never manifest in this formulation of the theory and the correct action is obtained via the explicit dependence of the superspace lagrangian on y and ∂_y. By expanding the superfields as S(x, y, θ) = ∑ n S_n(x, y)θ^n, we can identify S_n(x, y) with the local 5D fields.

However our global supersymmetry knows little about the local 5D geometry, so that in general the S_n’s are not normalized in a way that makes 5D covariance manifest. This is obviously not a problem: the correct normalization (as well as the correct covariant derivative structure) can always be obtained by local redefinitions of the S_n’s by powers of the warp factor [42, 43]. We can figure out the right rescaling that defines the canonical fields by considering the normalization of the supercharge. By eq. (3.19), Q^L_1 is related to the global supercharge by Q^L_1 = e^{σ/2}Q^G. Then by defining a new “local” superspace coordinate θ̃ = e^{−σ/2}θ, and substituting the flat vielbein δ^μ_a by the curved one e^μ_a = e^σ δ^μ_a , we can write

Q^L_{1α} = ∂ ∂θ̃^α − iσ^a_{αα̇} ¯θ̃^{α̇}e^μ_a ∂_μ . (3.21)

Not surprisingly, the presence of the vielbein shows that Q^L_{1α} is covariant and realizes the local supersymmetry subalgebra { Q^L_{1α}, Q̄^L_{1α̇} } = −2iσ^a_{αα̇}e^m_a ∂_m. (3.22)

Therefore, if we parametrize our superfields in terms of the “local” θ̃ instead of the “global” θ, the field coefficients should correspond to the local canonical fields. From the definition S = ∑ n S_nθ^n = ∑ n S̃_nθ̃^n we conclude that the canonical fields S̃_n must be defined as^4 S̃_n(x, y) = e^{nσ/2}S_n(x, y) . (3.24)

4To be precise, one should remember that the superfields coefficients S_n involve in some cases 4D derivatives ∂_μ. However, this does not affect our conclusions, because the change θ → θ^′ = e^{−σ/2}θ in coordinates corresponds to the change ∂_μ → ∂_a = e^μ_a ∂_μ in derivatives. For instance, in the case of a chiral superfield we have Φ = e^{−iθ̄σaθ̄δμa ∂μ} ( φ + χθ + F θ^2 ) = e^{−ī̃θσa ¯θ̃eμa ∂μ} ( φ + χe^{σ/2}θ̃ + e^σ F θ̃^2 ) . (3.23)

At first sight it might seem better to work directly with the θ̃ coordinates. However, Q^L_{1α} does not commute with ∂_y, since by eq. (3.19) it depends explicitly on y, and therefore ∂_yS is not a superfield over the superspace defined by θ̃. We could define a supercovariant D_y derivative, but we find it more convenient to work with global, flat superspace.

Now that we know that it is possible to write the desired Lagrangian in term of standard N = 1 superfields, we need to examine the gauge symmetry that this Lagrangian should possess. We parametrize the fluctuations around the background as ds^2 = e^{−2σ} (η_{mn} + h_{mn}) dx^mdx^n + 2e^{−σ} h_{my} dx^mdy + (1 + h_{yy} )dy^2 , (3.25)

The linearized general coordinate transformations are then given by:

δh_{mn} = ∂_mξ_n + ∂_nξ_m − 2σ^′η_{mn}ξ_y , (3.26) δh_{my} = e^{−σ} ∂_yξ_m + e^σ∂_mξ_y , (3.27) δh_{yy} = ∂_y ξ_y . (3.28)

Comparing with the flat case, we see that the warping is responsible for a new term proportional to σ^′ in the transformation law for h_{mn}.

The embedding of component fields into superfields can be done as in the flat case, except that we need to introduce in this case a real prepotential P_T for T as well, in such a way that T = −1/4D̄^2 P_T . The transformation laws can then be written in terms of superfields, after introducing a prepotential P_Ω also for Ω, as: δV_m = − 1 2 σ̄^{α̇α}_m (¯ D_{α̇}L_α − D_αL̄_{α̇} ) , (3.29)

δΨ_α = e^{−σ} ∂_yL_α − 1 4 e^σD_αΩ , (3.30)

δP_Σ = D^αL_α − 3σ^′P_Ω , (3.31) δP_T = ∂_y P_Ω . (3.32)

From the last two expressions, it follows that: δΣ = − 1 4 D̄^2D^αL_α − 3σ^′Ω , (3.33)

δT = ∂_yΩ . (3.34)

Note that the new term proportional to σ^′ in the transformation law for h_{mn} is encoded in superfield language in a new term in the transformation law for Σ. This is possible because, in addition to general coordinate invariance, the transformations parametrized by L_α also include Weyl and axial transformations. These extra conformal transformations can be fixed by setting the lowest component s of the compensator Σ to 0. But the subgroup of transformations that preserve this gauge choice involves scale transformations that are correlated with diffeomorphims and induce the appropriate extra term in eq. (3.26). To show this more precisely, let us consider the transformation laws of h_{mn} and s under diffeomorphisms with real parameters ξ_M and complexified Weyl plus axial transformations with complex parameter λ, as implied by eqs. (3.29) and (3.33):

δh_{mn} = ∂_mξ_n + ∂_nξ_m − 2 3 ∂_mξ^m + 1 6 η_{mn} (λ + λ^∗) , (3.35)

δs = 2∂_mξ^m − 6σ^′ξ_y − λ . (3.36)

As anticipated we can now use the Weyl and axial symmetries associated to λ to set s to 0. To preserve that gauge choice, however, diffeomorphisms must then be accompanied by a suitable Weyl transformations with parameter

λ + λ^∗ = 4∂_mξ^m − 12σ^′ξ_y . (3.37)

Plugging this expression back into (3.35), we find that the net transformation law of the graviton under a diffeomorphism, after the conformal gauge-fixing, reproduces indeed eq. (3.26).

It is now straightforward to construct a superfield Lagrangian that is invariant under the transformations (3.29)–(3.34) and reduces to (3.6) in the flat limit. It has the following expression:

L = M^3_5 ∫ d^4θ e^{−2σ} { −V^m_{3/2} ( □ + e^{2σ}∂_y e^{−4σ}∂_y ) V_{3/2m} − 2 3 [ ∂_mV^m_0 − i 2 ( Σ − Σ^† )]2

− 1 2 [ e^{−σ} ∂_y ( V^{α̇α}_0 + V^{α̇α}_{1/2} + V^{α̇α}_1 ) − (¯ D_{α̇}Ψ_α − D_αΨ̄_{α̇} )]2 + 1 4 [ e^{−σ} ( ∂_yP_Σ + 3σ^′P_T ) − ( D^αΨ_α + D̄_{α̇}Ψ̄^{α̇} )]2

+ i ( T − T^† )[ ∂_mV^m_0 − i 2 ( Σ − Σ^† )] } . (3.38)

There is one important remark to make about this Lagrangian: it possesses an extra (accidental) local invariance in addition to those we employed to derive it. Its parameter is a chiral superfield W_α and the transformation laws are given by

δΨ_α = 3σ^′e^{−σ} W_α , (3.39) δP_T = D^αW_α + D̄_{α̇}W̄^{α̇} . (3.40)

This new symmetry is associated to a redundancy in the parametrization of T by a prepotential P_T . Indeed P_T shifts by a linear multiplet so that using W_α we can gauge away the newly introduced components of P_T . By this invariance of the quadratic action, some combination of fields have no kinetic term. In order for our expansion to make sense when going to non-linear order, it is important to demand full invariance under this new transformation.

The component form of the Lagrangian (3.38) is reported in appendix A. It reproduces the correct component Lagrangian for supergravity on a slice of AdS_5 at the linearized level. The well known derivation of the low energy effective theory and KK decomposition then follows. It is however instructive to derive these results in terms of superfields.

3.3 KK mode decomposition

Let us start by constructing the zero mode superfield action. First of all, Ψ_α is Z_2 odd and does therefore not have zero modes. Second, notice that if we choose V^m(x, y) → V̂^m(x), the mass terms, involving ∂_y cancel out. On the other hand, the mass term involving P_Σ and P_T in the third line is non-vanishing for y independent field configurations. One possible parametrization of the zero modes for which this term vanishes altogether^5 is defined by P_T (x, y) → P̂_T (x) , T (x, y) → T̂ (x) , P_Σ(x, y) → P̂_Σ(x) − 3σ(y)P̂_T (x) , Σ(x, y) → Σ̂(x) − 3σ(y)T̂ . (3.41)

Notice that the conformal compensator Σ depends on y precisely like the conformal factor of the metric does in the zero mode parametrization for the bosonic RS1 model [44]. In order to write the effective action in compact form it is useful to rewrite the superspin 0 component as ∂_mV^m_0 = χ + χ^† and form the two combinations

Σ_A ≡ Σ + 2iχ , Σ_B ≡ Σ − 2iχ . (3.42)

It is important to notice that Σ_A is gauge-invariant but Σ_B is not. The zero mode action, with the second and third lines in eq. (3.38) vanishing, depends only on Σ_A. Defining the zero modes of the latter in analogy with eq. (3.41), i.e.

Σ_A(x, y) → Σ̂(x) − 3σ(y)T̂ (x) + 2iχ̂(x) = Σ̂_A(x) − 3σ(y)T̂ (x) , (3.43)

the 5D action for the zero modes can be rewritten simply as: L → M^3_5 σ^′ ∫ d^4θ ∂_y { e^{−2σ} [1 2 V̂^m_{3/2}□V̂_{3/2m} + 1 6 (^ Σ^†_A − 3σT̂^† )(^ Σ_A − 3σT̂ )] } . (3.44)

showing that the geometry of the boundaries is what matters in the low energy effective action. The quadratic action for the zero modes is then

L_{eff} =

M^3_5 k ∫ d^4θ { − ( 1 − e^{−2πkR} ) V̂^m_{3/2}□V̂_{3/2m} − 1 3 [ Σ̂^†_AΣ̂_A − e^{−2πkR}(Σ̂^†_A − 3πkRT̂^†)(Σ̂_A − 3πkRT̂ ) ] . (3.45)

5One can check that, by using the gauge freedom associated to L_α and W_α, P̂_T (x) and P̂_Σ(x) can be chosen to be purely chiral + antichiral (i.e no linear superfield component) while keeping Ψ_α = 0.

By expliciting the dependence of Σ̂_A on V̂_m it can be verified that this Lagrangian is local as it should. Moreover, with the identification ϕ = exp (Σ̂/3) and T = πR(1 + T̂ ), it agrees with the quadratic expansion of the full non-linear result, which was inferred by general arguments in ref. [29, 45]:

L_{eff} = −3

M^3_5 k ∫ d^4θ ( 1 − e^{−k(T +T †)} ) ϕ^†ϕ . (3.46)

In fact, even though eq. (3.45) is only valid at quadratic level in the superfield T , the full non linear dependence on the radion superfield T of eq. (3.46) can be deduced through the following argument. At the linearized level, the real part of the scalar component t of T coincides in principle with h_{yy} ≡ √g_{yy} − 1 only up to higher order terms. However, one can argue that by a holomorphic field redefinition T → T^′ = f(T ) it should always be possible to choose Re t^′ = √g_{yy} − 1 [29]. Let us then choose T such that Re t = √g_{yy} − 1. Now, focussing on the constant mode of √g_{yy} , we know that the low energy Lagrangian can only depend on it via the covariant combination πR√g_{yy} equalling the physical length of the fifth dimension. This is not yet enough to fully fix the dependence on T . We need to use the constraints on the dependence on Im t ∝ A_y the graviphoton fifth component. At tree level, The VEV of the low energy kinetic function corresponds to the effective 4D Planck scale of the usual RS1 model, which does not depend on other bulk fields than the radion. In particular it does not dependent on gauge fields like the graviphoton. This fixes completely the dependence on T to be obtained by the simple substitution 2πR → πR(2 + T̂ + T^†), compatibly with our results. The dependence on A_y is actually constrained even at the quantum level by the presence of an accidental (gauge) symmetry A_y → A_y + const. of minimal 5D supergravity on S_1/Z_2. The point is that the graviphoton appears in covariant derivatives via a Z_2-odd charge, ∂_y → ∂_y + iqϵ(y)A_y: basically the graviphoton is a Z_2 odd gauge field used to gauge an even symmetry. It is then evident that a constant A_y = a configuration can be gauged away by a gauge rotation with parameter α(y) = a σ(y)/(πkR). Since we will be using the quadratic supergravity Lagrangian for the computation of the quantum effective action, we will later need this argument to turn the dependence of our result on R into a dependence on the superfield T .

The KK spectrum can be studied in a similar way. For doing so, it is convenient to work in the gauge Ψ_α = 0, where it is evident that V_{1/2} and V_1 do not propagate while V_{3/2} has the KK decomposition of the graviton in RS1. We then exploit the local invariances associated to the parameters P_Ω, W_α and L_α to bring the fields P_T and P_Σ in a convenient form. In addition to a chiral part of superspin 0, these real superfields contain a linear superfield mode of superspin 1/2 that does not propagate, as will now argue. First, by using P_Ω and W_α, we can always bring P_T in the form e^{2σ}P¯_T (x), where P¯_T is y-independent and satisfies D̄^2D^αP¯_T = 0. This choice eliminates all the modes in P_T apart from a chiral radion zero mode. Next, by using the residual freedom L_α = S_α with S_α(x) chiral and constant over y we can eliminate the y independent linear superfield mode in P_Σ. Note that V_m and Ψ_α are unaffected by these transformations. In this way, in the superspin 1/2 sector of P_Σ and P_T , only the non-trivial KK modes of P_Σ are left. Like for V_{1/2} and V_1, their kinetic Lagrangian is a simple quadratic term proportional to (∂_yP_Σ)^2 with a trivial mass shell condition setting the modes themselves to zero. In what follows, we can then concentrate on the components with superspin 0 and work directly with the chiral fields T and Σ. Compatibly with the above discussion, the decompositions of the fields are chosen as follows:

T (x, y) = e^{2σ(y)}T̄ (x) , (3.47) Σ(x, y) = − 3 2 e^{2σ(y)}T̄ (x) + Σ̃(x, y) . (3.48)

The corresponding expressions for Σ_{A,B} (cfr. eq. (3.42)) are then given by

Σ_A(x, y) = − 3 2 e^{2σ}T̄ (x) + Σ̃_A(x, y) , Σ_B(x, y) = − 3 2 e^{2σ}T̄ (x) + Σ̃_B (x, y) . (3.49)

With this parametrization the Lagrangian for the chiral fields becomes

L¯_{T ,}~_Σ = ∫ d^4θ { 3 4 e^{2σ}T̄^†T̄ − 1 3 e^{−2σ}Σ̃^†_AΣ̃_A + 1 4 e^{−4σ} ( ∂_yΣ̃^†_B 1 □ ∂_yΣ̃_A + h.c. ) } . (3.50)

It is useful, and straightforward, to decompose Σ̃_A and Σ̃_B in a complete set of orthogonal KK modes satisfying:

∂_y e^{−4σ}∂_yΣ̃^{(n)}_{A,B} = m^2_ne^{−2σ}Σ̃^{(n)}_{A,B} . (3.51)

The KK modes Lagrangian can then be written (with a convenient normalization) as: L¯_{T ,}~_Σ(n) = ∫ d^4θ { 3 4 ( e^{2πR} − 1 )¯ T^†T̄ (3.52) − 1 3 ( 1 − e^{−2πR} ) ∑ n [ Σ̃^{†(n)}_A Σ̃^{(n)}_A + m^2_n ( Σ̃^{†(n)}_B 1 □ Σ̃^{(n)}_A + h.c. )] } . This parametrization makes it manifest that the non-zero KK modes of Σ̃_B act as Lagrange multipliers for the modes of Σ̃_A [40]. The only physical modes that are left are therefore T̄ along with Σ̃^{(0)}_A (x): they represent an alternative parametrization of the zero modes, in which the radion does not mix kinetically with the 4D graviton. This is the superfield analogue of the radion parametrization discussed in ref. [46].

3.4 Boundary Lagrangians

The only interactions that are needed for our calculation are those between brane and bulk fields. At the fixed points, Ψ_α vanishes, V_m and Σ undergo the same transformations of linearized 4D supergravity (remember that Ω is odd and vanishes at the boundaries) and finally T is the only field transforming under Ω. By this last property, T cannot couple to the boundary, so that only V_m and Σ can couple and they must do so precisely like they do in 4D supergravity (see [9]). What is left are the 4D superdiffeomorphisms of the boundaries. The presence of warping shows up in the boundary Lagrangian via the suitable powers of the warp factor. These are easy to evaluate according to our discussion in the previous section. Using locally inertial coordinates x̃ and θ̃, no power of the warp factor should appear in the invariant volume element d^4x̃d^4θ̃ for the Kähler potential and d^4x̃d^2θ̃ for the superpotential. From the ordinary RS1 model, we know that x̃ = e^{−σ}x, where x are the global coordinates, while from the previous section we have learned that θ̃ = e−σ/2θ. We conclude that the warp factors multiplying the Kähler and the superpotential of the actions localized at y = y_i must be equal respectively to e^{−2σ(yi)} and e^{−3σ(yi)}. Let us consider a chiral superfield Φ_i localized at the brane at y_i and with quadratic Kähler potential Ω_i = Φ^†_i Φ_i. As we already argued, the couplings of Φ_i to V_m and Σ are the same as in ordinary 4D supergravity. For our purposes, since we are only interested in the 1-loop Kähler potential, it is sufficient to consider terms that are at most quadratic in V_m and Σ, with derivatives acting on at most one of Φ_i and Φ^†_i . The relevant part of the 4D boundary Lagrangian at y_i is then given by

L_i = ∫ d^4θe^{−2σ(yi)} [ Φ^†_i Φ_i ( 1 + 1 3 Σ^† )( 1 + 1 3 Σ ) + 2 3 iΦ^†_i ←→ ∂_mΦ_iV^m − 1 6 Φ^†_i Φ_iV^mK_{mn}V_n ] . (3.53)

To compute the effective Kähler potential, we split the matter field into classical background Φ̄_i and quantum fluctuation π_i: Φ_i = Φ̄_i + π_i. We then rewrite the Lagrangian in term of the different superspin components defined previously^6

L_i = ∫ d^4θe^{−2σ(yi)} [ Φ̄^†_i Φ̄_i + π^†_i π_i + 1 3 Φ̄^†_i π_iΣ^†_A + 1 3 Φ̄_iπ^†_i Σ_A − 1 3 Φ̄^†_i Φ̄_i ( V^m_{3/2}□V_{3/2m} − 1 3 Σ^†_AΣ_A )] . (3.54)

In this expression, we have neglected terms involving derivative of the background and interactions among the quantum fluctuations, as they do not do not affect the Kähler potential at 1-loop. Notice that the Lagrangian involves only the gauge invariant quantities Σ_A and V^m_{3/2}. This property will be very useful for the computation of the next subsection. The effect of localized kinetic terms is easily obtained by generalizing the localized Kähler potential as Ω_i → Ω_i − 3M^2_i . In the above Lagrangian, this amounts to change Φ̄^†Φ̄ → Φ̄^†Φ̄ − 3M^2_i in those terms that are

6Note that these projectors are ill-defined when p^2 = 0. However, since we are interested in a loop computation with non-vanishing virtual momentum, this doesn’t cause any problem.

quadratic in the background, without affecting the terms that are instead linear in the background and involve fluctuations.

Finally, by using our parametrization of the radion and compensator zero modes, we can check that the boundary contribution to the low energy effective Lagrangian is just the linearized version of the full non-linear result, i.e.:

L_{eff} = ∫ d^4θ { Ω_0(Φ_0, Φ^†_0) + Ω_1(Φ_1, Φ^†_1)e^{−k(T +T †)} } ϕ^†ϕ . (3.55)

3.5 One loop effective Kähler potential

We now have all the necessary ingredients to set up more concretely the calculation of gravitational quantum corrections to the 4D effective Kähler potential. As we restrict our attention to the effective Kähler potential, we neglect all derivatives on the external fields. The supergraph calculation that needs to be done becomes then very similar to the calculation of the Coleman–Weinberg potential in a nonsupersymmetric theory [47]. Similar superfield computations have already been done for the gauge corrections to the Kähler potential in 4D supersymmetric theories in [48].

Normally, the most convenient procedure for doing this kind of computation is to add a suitable gauge-fixing term to the Lagrangian and work in generalized R_ξ gauges. In the case at hand, however, it turns out that there is a much simpler approach. The point is that the fields V_{3/2} and Σ_A appearing in the boundary Lagrangian are already gauge-invariant combinations. Their propagator is gaugeindependent and so we can work directly in the unitary gauge (defined in section 3.3), where the bulk Lagrangian takes it simplest form. Let us first examine the contribution from the Σ_A field. It couples to matter at the boundaries, and the quantity that is relevant for the computation is the propagator ⟨Σ_A(x, y_i)^†Σ_A(x, y_j )⟩ connecting two branes at positions y_i and y_j . The relevant Lagrangian for computing the propagator has already been worked out and is given by eq. (3.52). For the nonzero KK modes, we can write the kinetic matrix in two by two matrix notation as:

K_{Σ̃}(n)_{A ,Σ̃}(n)_B = − 1 3 m^2_n □ 1 4 m^2_n □ 0 . (3.56)

Inverting this matrix, we find that for m_n ≠ 0 we have ⟨Σ̃_A(x)^{†(n)}Σ̃_A(x)^{(n)}⟩ = 0, and correspondingly, these modes do not contribute to ⟨Σ_A(x, y_i)^†Σ_A(x, y_j)⟩ = 0 (c.f. eq. (3.49)). The only modes that are left are thus the zero modes T̄ and Σ̃^{(0)}_A (x).

The kinetic operator for these two fields is, again in two by two matrix notation:

K_{Σ̃}(0)_{A ,T̄} = − 1 3 ( 1 − e^{−2πR} ) 0 0 3 4 ( e^{2πR} − 1 ) . (3.57)

It is straightforward to verify that the resulting propagators for Σ̃^{(0)}_A and T̃ give no contribution to ⟨Σ_A(x, y_i)^†Σ_A(x, y_j)⟩. This is only possible thanks to the ghostly nature of the Σ̃^{(0)}_A field, which contains indeed the conformal mode of the 4D graviton. The cancellation is spoiled if y_i = y_j , and in that case one gets a non-trivial contribution to the propagator. However, the volume dependence is such that it contributes only to local terms, we therefore conclude that the zero modes are also irrelevant for our calculation. Summarizing, the above reasoning shows that the whole Σ_A field is not relevant to our computation. We therefore need to focus only on V^m_{3/2}, and the relevant Lagrangian has the form

L_{V3/2} = −M^3_5 ∫ d^4θ V^{3/2}_m [ e^{−2σ} ( 1 − ρ_0δ_0(y) − ρ_1δ_1(y) ) □ + ∂_ye^{−4σ}∂_y ] V^m_{3/2} . (3.58)

The quantities ρ_i represent the boundary corrections to kinetic terms^7, including the effect of matter field VEVs. For phenomenological application, we will be interested in the case ρ_i = (−3M^2_i + Φ^†_i Φ_i)/(3M^3_5 ). Inverting the above kinetic term the superspin structure factors out in an overall projector:

⟨V^{3/2}_m (x_1, y_1, θ_1) V^{3/2}_n (x_2, y_2, θ_2)⟩ = −Π^{mn}_{3/2} δ^4(θ_1 − θ_2) Δ (x_1, y_1; x_2, y_2) , (3.59)

where Δ is the propagator of a real scalar field in a slice of AdS_5, in presence of boundary kinetic terms, defined by the equation [ e^{−2σ} ( 1− ∑ i ρ_iδ_i(y) ) □ +∂_y e^{−4σ}∂_y ] Δ (x_1, y_1; x_2, y_2) = δ^4(x_1 − x_2)δ(y_1 − y_2) .(3.60)

This is compatible with the results found in ref. [8] for the flat case. By applying the methods of refs. [48], the 1-loop effective action can be written in a factorized form as^8 Γ = i 2 ∫ d^4x ∫ d^4x^′ δ^4(x − x^′) ∫ dy ∫ dy^′ δ(y − y^′) ∫ d^4θ ∫ d^4θ^′ δ^4(θ − θ^′) [ η_{mn}Π^{mn}_{3/2}δ^4(θ − θ^′)(ln Δ^{−1})(x, y, θ; x^′, y^′, θ^′) ] . (3.62)

7Note that we have defined these quantities with an overall negative sign, as in ref. [8]. 8This relation can we obtained by first defining the trivial Gaussian functional integral for a non-propagating field as ∫ DV_me^{i ∫ d4xd4θVmV m} = 1 . (3.61) The interesting case is then obtained by computing a similar functional integral where the trivial kinetic function η_{mn} is substituted with η_{mn} + Π^{3/2}_{mn}(Δ^{−1} − 1). The resummation in perturbation theory of all the insertions of Π^{mn}_{3/2} leads to eq. (3.62).

By using then the identity ∫ d^4θ ∫ d^4θ^′ δ^4(θ − θ^′) [ η_{mn}Π^{mn}_{3/2} δ^4(θ − θ^′) ] = ∫ d^4θ −4 □ , (3.63)

expanding the scalar propagator Δ in KK modes, and continuing to Euclidean momentum, the 1-loop correction to the Kähler potential is finally found to be

ΔΩ_{1−loop} = 1 2 ∫ d^4p (2π)^4 ∑ n −4 p^2 ln(p^2 + m̄^2_n) . (3.64)

Apart from the −4/p^2 factor, arising from the superspace trace, this formula is just the Casimir energy of a scalar whose propagation is governed by eq. (3.60). From now on, we will therefore concentrate on this simple scalar Lagrangian.

It is worth noticing that the fact that the boundary interactions involve only the gauge invariant superspin 3/2 and 0 components is actually a general result valid for any number of extra dimensions. What is specific to 5D theories is that the scalar component does not possess any propagating KK mode, and therefore cannot contribute to the genuinely calculable effects, like the Casimir energy or the radionmediated and brane-to-brane-mediated soft masses. In higher dimensions, this is no longer true, so that the scalar channel can in principle contribute. However it turns out that, for a simple but remarkable property of eq. (3.54), this happens only for the Casimir energy but not for the terms that are quadratic in the matter fields. The reason is that eq. (3.54) inherits from the original quadratic matter Lagrangian a rescaling symmetry, thanks to which the compensator dependence can be fully reabsorbed by a redefinition of the matter field. In eq. (3.54), this rescaling amounts to the shift π_i → π_i − Φ̄_iΣ_A/3. Diagrammatically, the existence of this rescaling symmetry reveals itself in the mutual cancellations of the two diagrams shown in fig. 2. Using this property, we can, for diagrams involving matter, do our computation by first eliminating the compensator Σ, rather than Σ_A. After that we can work in a generalization of Landau’s gauge, where the ⟨V^mV^n⟩ propagator is proportional to the Π^{mn}_{3/2} projector. In this gauge, the diagrams involving cubic vertices cancel individually, in analogy with what happens for the calculation of the effective potential in non-supersymmetric theories. In order to properly define the gauge that is needed to implement the above program, we must add a suitable gaugefixing to the Lagrangian. Since the gauge transformation δV_{αα̇} = D_αL̄_{α̇} − D̄_{α̇}L_α spans the subspace of components with superspin 0, 1/2 and 1, the parameter L_α can be used to adjust the components V^m_0 , V^m_{1/2} and V^m_1 , but not V^m_{3/2}. Correspondingly, the most general acceptable gauge-fixing Lagrangian consists of a combination of quadratic terms for V^m_0 , V^m_{1/2} and V^m_1 . The choice that allows to reach the gauge where only V^m_{3/2} propagates turns out to be given by the the following expression:

L_{gf} = ∫ d^4θe^{−2σ} [ − 1 ξ V_m ( η^{mn} − Π^{mn}_{3/2} ) □V_n − 2 3 V_mΠ^{mn}_0 □V_n ] . (3.65)

Φ̄_i Φ̄^†_i

V_0 V_0 π_i

Φ̄_i Φ̄^†_i

V_0 V_0

+ = 0

Figure 2: Cancellation of two diagrams contributing to the effective Kähler potential.

The part of the total Lagrangian that is quadratic in V_m then becomes:

L_{quad} = ∫ d^4θ [ −V_mΠ^{mn}_{3/2} ( e^{−2σ}□ + ∂_y e^{−4σ}∂_y ) V_n − 1 ξ V_m ( η^{mn} − Π^{mn}_{3/2} ) e^{−2σ}□V_n ] . (3.66)

For ξ → 1, and for a 4D theory where the extra superfields would be absent, this procedure would define the analogue of the super-Lorentz gauge. Its form coincides with the one that was used in ref. [9], except for terms involving Σ, T and Ψ_α. For ξ → 0, instead, it defines the analogue of the Landau gauge that we need. Indeed, it is clear that when ξ is sent to 0 only the V^m_{3/2} component can propagate. Moreover, since V^m_{3/2} does not couple to Ψ_α, Σ and T , the full ⟨V_mV_n⟩ is now exactly given by the left hand side of eq. (3.59).

4 Explicit computation and results

As demonstrated in the last section, the full 1-loop correction to the Kähler potential is encoded in the spectrum of a single real 5D scalar field φ with Lagrangian L = 1 2 e^{−2σ(y)} [ − (∂_μφ)^2 − e^{−2σ(y)}(∂_yφ)^2 + ( ρ_0δ_0(y) + ρ_1δ_1(y) ) (∂_μφ)^2 ] . (4.1)

More precisely, see eq. (3.64), the effective 1-loop Kähler potential is obtained by inserting a factor −4/p^2 in the virtual momentum representation of the scalar Casimir energy. It is also understood that the circumference 2πR should be promoted to the superfield T + T^† (see section 3.3), and similarly the constants ρ_i should be promoted to the superfields (−3M^2_i + Φ^†_i Φ_i)/(3M^3_5 ). In the end, the superspace structure therefore only counts in a suitable way the various degrees of freedom via eq. (3.63). The factor 4 takes into account the multiplicity of bosonic and fermionic degrees of freedom and the factor 1/p^2 the fact that the Kähler potential determines the component effective action only after taking its D component.

Let us now come to the computation. Along the lines of ref. [8], we find it convenient to start from ρ_i = 0 and to construct the full result by resuming the Feynman diagrams with all the insertions of ρ_i. The building blocks for the computation of the matter-dependent terms are the boundary-to-boundary propagators connecting the points y_i and y_j , with y_{i,j} = 0, πR:

Δ_{ij} (p) = ∑ n e^{− 32 σ(yi )}e^{− 32 σ(yj )} Ψ_n(y_i)Ψ_n(y_j )

p^2 + m^2_n

= e^{− 32 σ(yi)}e^{− 32 σ(yj )}Δ(p, y_i, y_j ) . (4.2)

Here and in what follows, Ψ_n(y) and m_n denote the wave functions and the masses of the KK modes of the scalar field φ, in the limit ρ_i = 0. The quantity Δ appearing in the second equality is then by definition the propagator of the scalar field φ in the same limit and in mixed momentum-position space: momentum space along the non-compact directions, and configuration space along the fifth. The exponential factors have been introduced for later convenience. The quantity that is relevant to compute the matter-independent term is instead the following spectral function: Z(p) = ∏ n ( p^2 + m^2_n ) . (4.3)

The explicit expressions for the above quantities are most conveniently written in terms of the functions Î_{1,2} and K̂_{1,2}, defined in terms of the standard Bessel functions I_{1,2} and K_{1,2} as

Î_{1,2}(x) = √ π 2 √ x I_{1,2}(x) , K̂_{1,2}(x) = √ 2 π √ x K_{1,2}(x) . (4.4)

These functions are elliptic generalizations of the standard trigonometric functions, and satisfy the relation Î_1(x)K̂_2(x) + K̂_1(x)Î_2(x) = 1 . (4.5)

Their asymptotic behavior at large argument x ≫ 1 is K̂_1(x) ≃ e^{−x} [ 1 + 3 8x − 15 128x^2 + · · · ] , Î_1(x) ≃ e^x 2 [ 1 − 3 8x − 15 128x^2 + · · · ] , K̂_2(x) ≃ e^{−x} [ 1 + 15 8x + 105 128x^2 + · · · ] , Î_2(x) ≃ e^x 2 [ 1 − 15 8x + 105 128x^2 + · · · ] ., and their asymptotic behavior at small argument x ≪ 1 is instead

K̂_1(x) ≃ √ 2 π [ x^{− 12} + · · · ] Î_1(x) ≃ √ π 2 [1 2 x^{32} + · · · ] , K̂_2(x) ≃ √ 2 π [ 2x^{− 32} + · · · ] , Î_2(x) ≃ √ π 2 [1 8 x^{52} + · · · ] .

Consider first the computation of the quantities (4.2). Rather than computing them directly as infinite sums over KK mode masses, we derive them from particular cases of the propagator Δ(p, y, y^′) for φ, which is given by the solution with Neumann boundary conditions at y equal to 0 and πR of the following differential equation: ( e^{−2ky}p^2 − ∂_y e^{−4ky}∂_y ) Δ(p, y, y^′) = δ(y − y^′) . (4.6)

The solution of this equation is most easily found by switching to the conformal variable z = e^{ky}/k, in which the metric is given by eq. (1.3) and the positions of the two branes by z_0 = 1/k and z_1 = e^{kπR}/k. Notice that in these coordinates, a rescaling z → zλ is equivalent to a shift z_{0,1} → λz_{0,1} of both boundaries plus a Weyl rescaling g_{μν} → g_{μν} /λ^2 of the metric along the 4D slices. Therefore, both 1/z_0 and 1/z_1 have the properties of conformal compensators, and by locality it is then natural to identify them at the superfield level with the superconformal compensators at the respective boundaries: (kz_0)^{−2} → ϕϕ^† and (kz_1)^{−2} → ϕϕ^†e^{−k(T +T †)}. Defining also u = min(z, z^′) and v = max(z, z^′), the propagator is given by [49, 50]:

Δ(p, u, v) = [ Î_1(pz_0)K̂_2(pu) +K̂_1(pz_0)Î_2(pu) ][ Î_1(pz_1)K̂_2(pv) +K̂_1(pz_1)Î_2(pv) ] 2p (ku)^{− 3}2 (kv)^{− 3}2 [ Î_1(pz_1)K̂_1(pz_0) − K̂_1(pz_1)Î_1(pz_0)

] . (4.7)

The brane restrictions of the general propagator (4.7) defining eqs. (4.2) are then easily computed. The factors e^{− 32 kyi,j} that have been introduced cancel the factors kz^{3/2}_{i,j} appearing in (4.7). Moreover, one of the factors in the numerator is always equal to 1 thanks to eq. (4.5). The results finally read

Δ_{00}(p) = 1 2p Î_1(pz_1)K̂_2(pz_0) + K̂_1(pz_1)Î_2(pz_0) Î_1(pz_1)K̂_1(pz_0) − K̂_1(pz_1)Î_1(pz_0) , (4.8)

Δ_{11}(p) = 1 2p Î_1(pz_0)K̂_2(pz_1) + K̂_1(pz_0)Î_2(pz_1) Î_1(pz_1)K̂_1(pz_0) − K̂_1(pz_1)Î_1(pz_0) , (4.9)

Δ_{01,10}(p) = 1 2p 1 Î_1(pz_1)K̂_1(pz_0) − K̂_1(pz_1)Î_1(pz_0) . (4.10)

Next, consider the formal determinant (4.3). Although this is not precisely a propagator, it is still a function of the spectrum and can be functionally related to the propagator in eq. (4.7). Indeed, the masses m_n are defined by the positions of the poles p = im_n of (4.7). These are determined by the vanishing of the denominator, that is by the equation

F (im_n) = Î_1(im_nz_1)K̂_1(im_nz_0) − K̂_1(im_nz_1)Î_1(im_nz_0) = 0 . (4.11)

The infinite product in eq. (4.3) is divergent. More precisely, it has the form of a constant divergent prefactor times a finite function of the momentum. In order to ρ_0

ρ_0 ρ_0 ρ_0 ρ_0

ρ_0

≡ + ρ_1

+ ρ_1 ρ_1

+ · · ·

Figure 3: We sum diagrams with an arbitrary number of ρ_0 insertions using a dressed propagator that includes ρ_1 insertions.

compute the latter, we consider the quantity ∂_p lnZ(p) = ∑ n 2p/(p^2 + m^2_n). The infinite sum over the eigenvalues, which are defined by the transcendental equation (4.11), is now convergent and can be computed with standard techniques, exploiting the so-called Sommerfeld–Watson transform. The result is simply given by ∂_p lnF (p). This implies that Z(p) = F (p), up to the already mentioned irrelevant infinite overall constant. Omitting the latter, we have therefore

Z(p) = Î_1(pz_1)K̂_1(pz_0) − K̂_1(pz_1)Î_1(pz_0) . (4.12)

Now that we have the expression for the propagators in the absence of localized kinetic terms (ρ_i = 0), we can compute the full effective Kähler potential at 1-loop, including the ρ_i’s. To do so, we continue to Euclidean momentum and follow ref. [8]. In summary, we first calculate the sum of diagrams with an arbitrary number of insertions of one of the two localized kinetic terms, say ρ_0, and the other one turned off. The result depends on the brane-to-brane propagator Δ_{00}(p). We then replace this propagator with a propagator dressed with an arbitrary number of insertions of the other kinetic term, that is ρ_1 (see fig 3). Finally, we also add the diagram with no insertion of localized kinetic terms at all, which is proportional to ln Z(p). Since we have already included a factor (kz_i)^{− 32} (kz_j )^{− 32} in the definition of Δ_{ij} compared to the standard propagator defined with a pure δ-function source and no induced metric factor, and the interaction localized at z_i in (4.1) involves a factor (kz_i)^{−2}, each factor ρ_i will come along with a factor kz_i. The result can be written in the following very simple form as a two by two determinant:

Ω_{1−loop} = ∫ d^4p (2π)^4 −2 p^2 ln { Z(p) det [ 1 − kp^2 ( ρ_0z_0Δ_{00}(p) ρ_0z_0Δ_{01}(p) ρ_1z_1Δ_{10}(p) ρ_1z_1Δ_{11}(p) )]} . (4.13)

The momentum integral is divergent, and as expected the divergence corresponds to a renormalization of local operators. In order to disentangle the finite corrections associated to non-local quantities that we want to compute from the divergent contributions corresponding to local terms, we must first classify the latter and then properly subtract them.

The expected general form of UV divergences can be deduced by inspecting eqs. (3.46) and (3.55), which define the general form of the tree-level effective action and therefore of the allowed local terms. Defining for convenience t_{0,1} = 1/z^2_{0,1}, which as mentioned above should be thought of in terms of the corresponding superfield compensators, this is given by

Ω_{UV} = F_0(Φ_0) t_0 + F_1(Φ_1) t_1 . (4.14)

These divergent terms can come from two different sources: the renormalization of the 5D Planck mass and the renormalization of the kinetic functions at the boundaries. On the other hand, covariance under the Weyl shift t_{0,1} → λ^{−1/2}t_{0,1} discussed above constrains the whole Kähler function to have the general form

Ω = t_0 ω(t_1/t_0) . (4.15)

We have not displayed the dependence on the boundary matter fields, as that is not constrained by Weyl symmetry. By the structure of the UV divergences in eq. (4.14), it follows that the derivative quantity

t_0∂_{t0} ∂_{t1} Ω = − t_1 t_0 ω^{′′}(t_1/t_0) (4.16)

must be finite, since its annihilates eq. (4.14). So one way to proceed is to first calculate ω^{′′} and then reconstruct the full ω by solving an ordinary second order differential equation. This solution is determined up to two integration constants associated to the general solution of the homogeneous equation ω^{′′} = 0: ω = F_0 + F_1 t_1/t_0. These constants precisely parametrize, as they should, the UV divergences in eq. (4.14).

In what follows, however, we will not directly apply the above derivative method. We shall instead subtract from the loop integral which defines Ω_{1−loop} a suitable divergent integral with the properties that: 1) its functional dependence on t_{0,1} is such that it is manifestly annihilated by the operator ∂_{t0} ∂_{t1} , 2) its subtraction makes the integral converge. The finite result obtained in this way is then guaranteed to contain all the finite calculable terms we are interested in. As we will explain in more details below, the functions defining the appropriate subtractions are obtained by simply replacing each propagator Δ_{ij} (p) with its asymptotic behaviors Δ̃_{ij} (p) for p → ∞. Up to exponentially suppressed terms of order e^{−2p(z1−z0 )}, which are clearly irrelevant, we find:

Δ̃_{00}(p) = 1 2p K̂_2(pz_0) K̂_1(pz_0) ≃ 1 2p ( 1 + 3 2pz_0 + 3 8(pz_0)^2 + . . . ) , (4.17)

Δ̃_{11}(p) = 1 2p Î_2(pz_1) Î_1(pz_1) ≃ 1 2p ( 1 − 3 2pz_1 + 3 8(pz_1)^2 + . . . ) , (4.18)

Δ̃_{01,10}(p) = 0 . (4.19)

Similarly, for the quantity Z(p), the appropriate subtraction that has to be done to isolate the finite contribution associated to non-local quantities is defined by the asymptotic behavior Z̃(p) of this quantity for p → ∞. In this limit, the second term in (4.12) is of order e^{−2p(z1−z0 )} with respect to the first, and can be neglect. Therefore, the quantity that controls the UV divergences in the Casimir energy is Z̃(p) = Î_1(pz_1)K̂_1(pz_0) ≃ 1 2 e^{p(z1−z0 )} [ 1 − 3 8 ( 1 pz_1 − 1 pz_0 ) − 15 128 ( 1 (pz_1)^2 − 1 (pz_0)^2 ) + · · · ] . (4.20)

Notice that the contribution to the effective action related to Z is proportional to an integral of ln Z. The divergent subtraction defined by (4.20) therefore splits as expected into the sum of two terms depending only on z_0 and z_1.

The non-local corrections to the Kähler potential can now be computed by subtracting from eq. (4.13) the same expression but with Z and Δ_{ij} replaced by their asymptotic behaviors Z̃ and Δ̃_{ij} , that is the quantity

Ω_{div} = ∫ d^4p (2π)^4 −2 p^2 [ ln Z̃(p) + ∑ i ln ( 1 − kp^2ρ_iz_iΔ̃_{ii}(p) ) ] . (4.21)

This formal expression, being the sum of terms that depend either on z_0 or on z_1 but not on both, vanishes under the action of ∂_{t0} ∂_{t1} , and is therefore an acceptable subtraction. Our final result is then given by

ΔΩ = ∫ d^4p (2π)^4 −2 p^2 ln Z(p) Z̃(p) ∏ i ( 1 − kz_iρ_ip^2Δ_{ii}(p) ) − ∏ i ( kz_iρ_ip^2Δ_{ii}′ (p) ) ∏ i ( 1 − kz_iρ_ip^2Δ̃_{ii}(p)

) , (4.22)

where, as already said:

ρ_i =

Φ^†_i Φ_i 3M^3_5 − M^2_i M^3_5

. (4.23)

This formula (4.22) is the main result of this paper. It generalizes the flat case result (6.32) of ref. [8] to the warped case and correctly reduces to the latter in the limit k ≪ 1/R.^9 Notice also that it is finite for any k, since untilded and tilded quantities differ by exponentially suppressed terms at large momentum.

9Indeed, in this limit the propagators Δ_{ij} and the spectral function Z correctly reproduce the

4.1 Structure of divergences

It is worth spending a few words on the structure of the UV divergences we have subtracted. Since (4.21) satisfies ∂_{t0} ∂_{t1} Ω_{div} = 0, it must have the same form than (4.14), if properly (i.e. covariantly) regulated. It is instructive to see how this dependence comes about when working with a hard momentum cut-off. Let us first concentrate on the term proportional to ln Z̃. Since Z̃(p) is the product of a function of pz_0 times a function of pz_1, one can split the subtraction in two pieces depending only on z_0 and z_1, and change integration variables respectively to v_0 = pz_0 and v_1 = pz_1 in the two distinct contributions:

Ω^{sugra}_{div} = 1 z^2_0 ∫ d^4v_0 (2π)^4 −2 v^2_0 ln K̂_1(v_0) + 1 z^2_1 ∫ d^4v_1 (2π)^4 −2 v^2_1 ln Î_1(v_1) . (4.25)

These quantities have indeed the expected structure provided the cut-off’s Λ_0L and Λ_1L of the v_0 and v_1 integrals do not depend on z_0 and z_1. This has an obvious interpretation, related to the fact that the above two distinct contributions must be associated (after an integral over the fifth dimension) with divergences at the two distinct boundaries. The point is that the original momentum integration variable p is not the physical coordinate-invariant momentum. At each point in the bulk, the physical momentum is rather given by p_{phys} = √ p_μp_ν g^{μν} = pz/L, so that the variables v_0 and v_1 do indeed parametrize the appropriate physical virtual momentum at each boundary. Since a covariant cut-off procedure should bound the physical rather than the comoving momentum, it is indeed the cut-off for v_{0,1} rather than for p that must be fixed and universal. It is easy to check that this is indeed what happens when the above integrals are regulated through the introduction of 5D Pauli–Villars fields of mass Λ: one finds Λ_0 = Λ_1 = Λ. By using the asymptotic expansion of K̂_1 and Î_1 at large argument, we finally find that the divergent part has the form

Ω^{sugra}_{div} = −3 ( 1 z^2_0 − 1 z^2_1 ) [ α(ΛL)^3 + βΛL ] − 3 ( 1 z^2_0 + 1 z^2_1 ) γ ln Λ . (4.26)

This expression is manifestly invariant, as it should, under the exchange of the two boundaries: z_0 → z_1, L → −L. Comparing with eq. (2.5) we see that the first part corresponds to a renormalization δM^3_5 = αΛ^3 + βΛk^2 of the 5D Planck mass, and the second part to a renormalization δM^2_i = γ k^2 ln Λ of the boundary kinetic terms.

Consider next the two terms in the sum of the second term of eq. (4.21). Since pΔ̃_{ii}(p) is actually a function of pz_i only and not pz_i′ , one can as before factorize

flat expressions: lim kR→0 Δ_{00,11} = 1 2p coth(πpR) , lim_{kR→0} Δ_{01,10} = 1 2p csch (πpR) , lim_{kR→0} Z = sinh(πpR) . (4.24)

Similarly, the tilded quantities involved in the subtraction correctly reduce to the large volume limit of the above untilded expressions.

all the dependence on z_i from each integral be changing the momentum variables to v_i = pz_i:

Ω^{mat}_{div} = 1 z^2_0 ∫ d^4v_0 (2π)^4 −2 v^2_0 ln [ 1 − kρ_0v_0 2 K̂_2(v_0) K̂_1(v_0) ]

+ 1 z^2_1 ∫ d^4v_1 (2π)^4 −2 v^2_1 ln [ 1 − kρ_1v_1 2 Î_2(v_1) Î_1(v_1) ] . (4.27)

The same arguments as before concerning covariance and the appropriate cut-off’s to be used apply. The result is again that the integral can be evaluated by using the asymptotic expression for large argument of the functions appearing in its integrand and the dimensionless cut-off ΛL for both variables v_i. Treating ρ_i as small quantities, we can also expand the logarithms. Proceeding in this way we finally find:

Ω^{mat}_{div} = ∞∑ n=1 ρ^n_0 z^2_0 [ α_nΛ^{n+2}L^2 + · · · ] + ∞∑ n=1 ρ^n_1 z^2_1 [ α_nΛ^{n+2}L^2 + · · · ] . (4.28)

Comparing with eq. (2.5) we see that the n-th term corresponds to a correction to the 4D potentials Ω_i of the form δΩ_i = α_nΛ^{n+2}(3M^3_5 )^{−n}(−3M^2_i + Φ_iΦ^†_i )^n + · · · , the dots representing less singular terms. This correction represents a renormalization of the quantities M^2_i , the wave function multiplying the kinetic term Φ_iΦ^†_i of the matter fields and the coefficients of those higher-dimensional local interactions involving up to n powers of Φ_iΦ^†_i .

4.2 General Results

Let us now come to a more explicit discussion of the results. Comparing eq. (4.22) with the general expression (2.9), it is possible to extract all the coefficients C_{n0 ,n1} . We will consider in more details the first coefficients with n_{0,1} = 0, 1, which control the vacuum energy and the scalar soft masses that are induced by supersymmetry breaking, as functions of the quantities

α_i =

M^2_i M^3_5 , which define the localized kinetic terms for the bulk fields. Taking suitable derivatives of (4.22) with respect to ρ_i and setting these to −α_i, we find:

C_{0,0} = −2 ∫ d^4p (2π)^4 p^{−2} [ ln Z(p) − ln Z̃(p) ] , (4.29)

C_{1,0} = 2 3M^3_5

(kz_0) ∫ d^4p (2π)^4 [ Δ_{00}(p) − Δ̃_{00}(p) ] , (4.30)

C_{0,1} = 2 3M^3_5

(kz_1) ∫ d^4p (2π)^4 [ Δ_{11}(p) − Δ̃_{11}(p) ] , (4.31)

C_{1,1} = 2 9M^6_5

(kz_0)(kz_1) ∫ d^4p (2π)^4 p^2 [ Δ_{01}(p)Δ_{10}(p) ] , (4.32)

where Δ_{ij} are the brane-to-brane propagators in presence of localized kinetic terms α_i, and Z is the α_i-dressed analog of Z:

Z = Z [( 1 + kz_0α_0p^2Δ_{00} )( 1 + kz_1α_1p^2Δ_{11} ) − kz_0α_0kz_1α_1p^4Δ_{01}Δ_{10} ] , (4.33)

Δ_{00} =

Δ_{00} ( 1 + kz_1α_1p^2Δ_{11} ) − kz_1α_1p^2Δ_{01}Δ_{10} ( 1 + kz_0α_0p^2Δ_{00} )( 1 + kz_1α_1p^2Δ_{11} ) − kz_0α_0kz_1α_1p^4Δ_{01}Δ_{10}

, (4.34)

Δ_{11} =

Δ_{11} ( 1 + kz_0α_0p^2Δ_{00} ) − kz_0α_0p^2Δ_{01}Δ_{10} ( 1 + kz_0α_0p^2Δ_{00} )( 1 + kz_1α_1p^2Δ_{11} ) − kz_0α_0kz_1α_1p^4Δ_{01}Δ_{10}

, (4.35)

Δ_{01,10} =

Δ_{01,10} ( 1 + kz_0α_0p^2Δ_{00} )( 1 + kz_1α_1p^2Δ_{11} ) − kz_0α_0kz_1α_1p^4Δ_{01}Δ_{10}

. (4.36)

The subtractions Z̃ and Δ̃_{ij} are similarly defined out of Z̃ and Δ̃_{ij} .

4.3 Results in the absence of localized kinetic terms

In the simplest case of vanishing localized kinetic terms, that is α_i = 0, the first four relevant terms in the correction to the effective Kähler potential are given by eqs. (4.29)–(4.32) with Z → Z and Δ_{ij} → Δ_{ij} , and similarly for the tilded quantities defining the subtractions.

In the limit of flat geometry, one recovers the known results for the coefficients of the four leading operators:

C_{0,0} = c_f 4π^2 1 (T + T^†)^2

, C_{1,0} = c_f 6π^2M^3_5 1 (T + T^†)^3 , C_{0,1} = c_f 6π^2M^3_5 1 (T + T^†)^3

, C_{1,1} = c_f 6π^2M^6_5 1 (T + T^†)^4 , (4.37) where c_f = ζ(3) ≈ 1.202. Let us mention that these results differ from the previous results of ref. [8, 9] by a factor of 2 mismatch in the definition of the 5D kinetic coefficient M^2_5 . Concerning ref. [8], we found that the source of the discrepancy is a wrongful normalization of the graviton propagator employed in that paper. Moreover, the argument we shall give in next section confirms in a simple and unambiguous way that the correct result is the one presented just above.

In the limit of very warped geometry the coefficients of the first four operators are instead:

C_{0,0} = c_wk^2 4π^2 e^{−2k(T +T †)} , C_{1,0} = c_wk^3 12π^2M^3_5 e^{−2k(T +T †)} , C_{0,1} = c_wk^3 6π^2M^3_5 e^{−2k(T +T †)} , C_{1,1} = c_wk^4 18π^2M^6_5 e^{−2k(T +T †)} , (4.38)

where c_w = 1 2 ∫_∞ 0 dx x^3 K_1(x) I_1(x) = 1 8 ∫_∞ 0 dx x^3 I_1(x)^2

≈ 1.165 . (4.39)

4.4 Results in the presence of localized kinetic terms for the case of small and large warping

In the presence of localized kinetic terms, that is α_i ≠ 0, it is convenient to consider directly the full Kähler potential as a function ρ_i = −α_i + Φ_iΦ^†_i /(3M^3_5 ).

In the flat case, the result simplifies to

ΔΩ = 1 4π^2 1 (T + T^†)^2 f_f ( ρ_0 T + T^† , ρ_1 T + T^† ) (4.40)

where

f_f (a_0, a_1) = − ∫_∞ 0 dx x ln [ 1 − 1 + a_0 x/2 1 − a_0 x/2

1 + a_1 x/2 1 − a_1 x/2 e^{−x} ] . (4.41)

Expanding this expression at leading order in the matter fields, one finds^{10}

C_{n0 ,n1} = 1 4 · 3^{n0 +n1} π^2M^{3n0+3n1}_5 1 (T + T^†)^{2+n0+n1} f^{(n0,n1 )} f ( −α_0 T + T^† , −α_1 T + T^† ) . (4.42)

As already discussed in ref. [8], C_{0,0} and C_{0,1} become negative for large α_0 and small α_1. Similarly C_{0,0} and C_{1,0} become negative for large α_1 and small α_0.

In the limit of large warping, one finds:

ΔΩ = k^2 4π^2 e^{−2k(T +T †)}f_w(kρ_0, kρ_1) (4.43)

10We use the standard notation f^{(n0,n1)}(a_0, a_1) = (∂/∂a_0)^{n0} (∂/∂a_1)^{n1} f(a_0, a_1).

where now

f_w(a_0, a_1) = 1 2 ∫_∞ 0 dx x^3 K_1(x) I_1(x) 1 1 − a_0

1 + a_1 x/2 K_2(x)/K_1(x) 1 − a_1 x/2 I_2(x)/I_1(x)

. (4.44)

From this we deduce that

C_{n0 ,n1} = k^{2+n0 +n1} 4 · 3^{n0 +n1} π^2M^{3n0 +3n1}_5 e^{−2k(T +T †)}f^{(n0,n1 )}_w (−α_0k, −α_1k) . (4.45)

None of the coefficients becomes negative for large α_0 and small α_1, whereas C_{0,0} and C_{1,0} become negative for α_1 ∼ 0.6/k and small α_0. We again stress that there is an upper bound for α_1, as for α_1 = 1/k, the radion becomes a ghost. But luckily, C_{1,0} changes sign before α_1 reaches this critical value.

Notice that the dimensionless parameters that control the effect of the localized kinetic terms depends on the warping. In the flat limit, they are given by α_i/(2πR), and their impact therefore significantly depends on the radius dynamics, whereas in the large warping limit they are given by α_ik, and their impact is therefore not directly dependent of the radius.

5 A simplified computation

We present here an alternative technique which allows to rederive in an immediate way some of the results of the present paper and of refs. [7, 8, 9]. The basic remark is that the effects we are computing are dominated by relatively soft modes with 5D momentum of the order of the compactification scale. The softness of these modes does not allow them to distinguish between an infinitesimal shift in the position of a boundary, i.e. a small change of the radius, and the addition of infinitesimal boundary kinetic terms. The equivalence between these two effects^{11} allows one to relate in a straightforward way the matter-independent term (Casimir energy) to the matter-dependent ones (radion and brane-to-brane mediation terms).

Let us see how this works in more detail. As it will become clear from the discussion, warping and spin play no role. Therefore we can focus first on the case of the scalar Lagrangian in eq. (4.1) in the flat limit k → 0. Notice that ρ_{0,1} have the dimension of a length, so that the case of infinitesimal kinetic terms should correspond to ρ_{0,1} ≪ πR. Consider the equations of motion and boundary conditions in the vicinity of one of the two boundaries, say y = 0:

φ^{′′}(y) = −p^2φ(y) , φ^′(0) = ρ_0 2 p^2φ(0) . (5.1)

11This equivalence is related to the analysis of ref. [51], which shows that a displacement of the branes can be accounted for by a renormalization group flow of the local operators that they support.

Now, for pρ_0 ≪ 1 the solution does not vary appreciably over the distance ρ_0. Therefore we can safely write the value of φ^′ at the point y = ρ_0/2 by means of a Taylor expansion. By using both eqs. (5.1) we obtain then

φ^′( ρ_0 2 ) = φ^′(0) + φ^{′′}(0) ρ_0 2 + φ^{′′′}(0) ρ^2_0 8 + · · · = 0 + O(ρ^2_0p^2)φ^′(0) + O(ρ^3_0p^4)φ(0) + · · · . (5.2)

This equation implies that up to terms of order ρ^2_0p^2, the solutions are the same as those of an equivalent system with Neumann boundary condition φ^′ = 0 at a shifted boundary y^′_0 = ρ_0/2. Consequently, at the same order in ρ_0 all the properties of the two systems, KK masses included, will be the same. The same remark applies, in a totally independent way, to the other boundary. Now, quantities like the Casimir energy are dominated by modes of momentum p ∼ 1/R, so that the above equivalence works up to terms of order ρ^2_0/R^2, ρ^2_1/R^2.

This means that radion mediation O(ρ_0) and brane-to-brane mediation O(ρ_0ρ_1) effects can be read off by simply shifting the radius as 2πR → 2πR − ρ_0 − ρ_1 in the Casimir energy (or the Kähler function). In fact the shifted quantity M^2 = M^3_5 (2πR − ρ_0 − ρ_1) is nothing but the effective low energy Planck mass in the presence of boundary kinetic terms. Being a low energy quantity, M^2 manifestly realizes the equivalence between boundary kinetic terms and shift in R.

The argument we used above is very robust and quickly generalizes to other cases of interest. In particular, as the argument is based on a local expansion close to the boundary where the small kinetic term has been added, it still holds true whatever boundary condition is given at the other boundary. For instance, in the presence of a sizable kinetic term ρ_1, turning on an infinitesimal ρ_0 is still equivalent to the shift 2πR → 2πR − ρ_0 in the full Casimir energy V (R, ρ_1). Moreover the presence of curvature is clearly not affecting our basic argument as long as ρ_{0,1} are smaller than the typical curvature length of the metric. Basically, curvature introduces an extra, but fixed, momentum scale in addition to the 4D momentum p of our previous argument. For the RS metric, we would have a double expansion in both ρ_0p and ρ_0k. Without doing an explicit computation it is easy to deduce the equivalence relation between boundary kinetic terms and brane shift in the RS model. The point is that the effective 4D Planck mass

M^2 = M^3_5 k [1 − kρ_0 z^2_0 − 1 + kρ_1 z^2_1 ] (5.3)

must be invariant. We conclude that, at linear order, switching on infinitesimal ρ_i’s is equivalent to shifting the positions z_i of the latter to

z^′_0 = z_0e^{+kρ0 /2} ≃ z_0 + kρ_0z_0/2 , z^′_1 = z_1e^{−kρ1 /2} ≃ z_1 − kρ_1z_1/2 . (5.4)

5.1 Flat case

Let us consider now in more detail the implications of the above reasoning. In the flat case, without localized kinetic terms, the matter-independent effective Kähler potential is very simple to deduce (see also ref. [52]). The modes have Neumann boundary conditions at both branes and masses m_n = n/R. One then finds ΔΩ ≃ c_f /(4π^2) (T + T^†)^{−2}, where c_f = Li_3(1) = ζ(3). Applying to this result the shift T + T^† → T + T^† − (Φ^†_0Φ_0 + Φ^†_1Φ_1)/(3M^3_5 ) we find:

ΔΩ ≃ ζ(3) 4π^2 [ T + T^† −

Φ^†_0Φ_0 3M^3_5 − Φ^†_1Φ_1 3M^3_5 ]_{−2} . (5.5)

Expanding this expression to linear order in each brane term, we reproduce the coefficients (4.37) for the four leading operators.^{12}

It is also illuminating to consider the limit in which one of the kinetic terms, say ρ_1, becomes large with the visible sector located at y = 0. The condition at y = πR reduces to a Dirichlet boundary condition, forcing all the wave functions of the nonzero modes to vanish there. The massive spectrum becomes m_n = (n + 1/2)/R, but with the zero mode mass obviously unaltered. The matter-independent term in the Kähler potential is then given by ΔΩ ≃ c_f /(4π^2) (T + T^†)^{−2}, where now c_f = Re Li_3(e^{iπ}) = −3/4ζ(3). Knowing this result, and applying again the shift, which now implies T + T^† → T + T^† − Φ^†_0Φ_0/(3M^3_5 ), we can deduce that: ΔΩ ≃ − 3 4 ζ(3) 4π^2 [ T + T^† −

Φ^†_0Φ_0 3M^3_5 ]_{−2} . (5.6)

When expanded, this again agrees with our result for the two leading operators. As remarked in ref. [8], the effect of the large localized kinetic term is to flip the sign of the coefficient of the operator controlling radion mediation, and to send the coefficient of the operator controlling the brane-to-brane mediation to zero.

Notice finally that ref. [8] also considered the case in which the radion T is stabilized precisely by the 1-loop Casimir energy in the presence of localized kinetic terms. By placing the visible sector on a brane where no other kinetic term contribution was present, it was then found, surprisingly, that the soft masses vanished exactly at the minimum of the radion potential. Our argument about the shift symmetry makes this result obvious. The scalar mass term is obtained by shifting T +T^† → T +T^† −Φ^†_0Φ_0/(3M^3_5 ) in the radion Casimir energy V (T +T^†). The scalar mass is therefore proportional to V^′, and vanishes at the minimum of the potential.

12We thank Adam Falkowski for pointing out this fact to us thus stimulating the discussion of this section.

5.2 Strongly warped case

To conclude we can consider the strongly warped case. In the absence of localized kinetic terms, the matter-independent term in the effective Kähler potential is known from refs. [53, 54] (see also [55, 56, 57] )and has the form ΔΩ_{eff} ≃ c_w/(4π^2) z^2_0 z^{−4}_1 , where c_w ≃ 1.165. Applying the shift, we find

ΔΩ ≃ c_w k^2 4π^2 exp { − 2k [ T + T^† − 1 6 Φ^†_0Φ_0 M^3_5 − 1 3 Φ^†_1Φ_1 M^3_5 ]} . (5.7)

which, when expanded at linear order in Φ_0Φ^†_0 and in Φ_1Φ^†_1, reproduces our results (4.38) for C_{1,0}, C_{0,1} and C_{1,1}.

In this case, no illuminating argument is available for the effect of a localized kinetic term. More precisely, in the not very interesting situation in which a kinetic term is located at the UV brane, its only effect is basically to increase the effective 4D Planck mass, and therefore all the radiative effects get simply suppressed when it becomes large, without any sign flip. In the more interesting situation in which a kinetic term is switched on at the IR brane, the impact on the radiative effects can instead be more interesting and significant, as we saw, but due to the fact that the latter is limited to stay below a finite critical value, there is no useful limit in which the problem simplifies. One has then to rely on the exact computation to understand its physical consequences.

6 Applications

We would now like to investigate the extent to which our result for the radionmediated contribution to the scalar soft masses squared can help to cure the problem of tachyonic sleptons of anomaly mediation. In order to do that, we need to find a model in which the radius is stabilized, and supersymmetry is broken in such a way that radion mediation dominates over anomaly and brane-to-brane mediation. In this section, we study the effective description of such a model

By effective description, we mean that we do not fully specify the sector that breaks supersymmetry, but parametrize it through a Goldstone supermultiplet X with a linear superpotential. Similarly, the radion is stabilized by some unspecified 5D dynamics (see [29, 35, 41, 44, 58, 59] for specific examples) that we shall parametrize through an effective superpotential depending on the radion multiplet. Finally, in order to cancel the cosmological constant, we also need to add a constant superpotential and tune its coefficient. All these superpotentials admit microscopic realizations, for instance in terms of gaugino condensations, but we will not discuss them here in any detail. What is instead important for us is that in such a general situation, there are three important sources of supersymmetry breaking effects for the visible sector matter and gauge fields, coming from the F terms of the compensator, the radion and the Goldstone chiral multiplets, respectively ϕ, T and X. These will induce contributions to the soft masses corresponding to anomaly, radion, and brane-to-brane mediation effects. The absence of tachyons requires, necessarily, that the radion contribution be positive and comparable or bigger than the other two. We shall discuss some examples in this section. On the other hand, the extent to which a model helps solving the supersymmetric flavor problem depends on the separation between the compactification scale and whatever other fundamental UV scale there is in the theory, for instance M_5. The bigger this separation is, the more suppressed are higher order effects and in principle flavor-breaking corrections to soft masses. We will not give a full discussion of this problem in this paper as it will require a careful model by model analysis. We plan to come back on this issue in a forthcoming paper [60].

6.1 Flat case

In ref. [8], a model of the type discussed above was considered, along the lines of [41]. The radion was stabilized by gaugino condensation in the bulk and on the hidden brane, giving rise to the following low energy Kähler potential and superpotential: Ω = [ − 3M^3_5 (T + T^†) − 3M^2_1 + X^†XZ(XX^†/Λ^2_c ) ] ϕ^†ϕ , (6.1) W = [ Λ^3_ae^{−nΛa T} + Λ^3_b + Λ^2_c X ] ϕ^3 . (6.2)

We are assuming for simplicity that the wave function Z stabilizes X at the origin X = 0 (see for example ref. [61]). We are also assuming that the hidden sector and the brane kinetic term M^2_1 are localized on the same brane. Minimizing the potential, it is found that the radius is stabilized, and we can tune Λ_c to cancel the cosmological constant. The order of magnitude of the different F -terms are found to be: F_ϕ ∼ F_X M ∼ F_T T (nΛ_aT ) . (6.3)

The point here is that the radion-mediated contribution, the only one that can give positive mass squared, is suppressed compared to the two other contributions by a factor of (nΛ_aT )^{−1}, which is precisely the loop factor α_G ≡ g^2_5 /(16π^2T ) for the 5D gauge interactions at the compactification scale. Because of this extra suppression the “equality” between radion-mediated and anomaly-mediated contributions is obtained for α^2_G α_5 ∼ ( g 4π )_4

∼ α^2 , (6.4)

where α_5 = 1/(M_5T )^3 measures the loop expansion parameter for 5D gravity. This relation implies that the radius should be fairly small. Moreover, a second, necessary, requirement is that the radion contribution be positive and dominant with respect to the brane-to-brane one. Adding a localized kinetic term on the hidden brane helps in two ways. It makes the radion-mediated contribution positive while suppressing brane-to-brane effects. Taking into account the extra O(α^2_G) suppression of the radion contribution one finds by inspection of the explicit formulae that a positive mass is obtained for a pretty large brane kinetic term: M^2_1 /M^3_5 T >∼ 1/α^2_G . In the regime where the bulk gauge theory is perturbative at the compactification scale, the size of the 4D effective Planck scale is fully determined by the boundary, with the bulk playing the just role of a small perturbation. Although peculiar this is not the real problem of this model. The real problem is represented by eq. (6.4), which implies that the gauge and gravity expansion parameters are not so small. These parameters control higher order effects. For instance, it is natural to expect flavor violating four-derivative boundary gravitational interactions, suppressed by two extra powers of M_5. These would give subleading O(1/(M_5T )^2) ∼ α^{2/3}_5 flavorbreaking corrections to the radion-mediated effect [8]. Similarly, one expects extra interactions between the boundary matter fields and the bulk gauge fields. At the visible brane, we expect flavor violating couplings of the type Q_iQ^†_j W_αW^α, and similarly at the hidden brane we expect a coupling of the fom XX^†W_αW^α, suppressed by three powers of some high energy scale. In presence of these interactions, one-loop exchange of the bulk gauge fields would add to the Kähler potential a flavor-violating brane-to-brane term. If the relevant scale suppressing the couplings were the fivedimensional quantum gravity scale, then these effects would even be larger than the universal radion-mediated term. The presence of localized gauge kinetic terms for the gauge fields would help making this contribution smaller than the universal one, but only at the price of making the bulk gauge theory more strongly coupled. This fact makes this pathway to model building not very appealing, though it may be worth a more detailed analysis. Notice however that the difficulties arise from the extra suppression of the radion F -term in the specific model we are considering. This suppression follows directly from the no-scale structure of the Kähler potential (i.e., linearity in T ) but depends also crucially on the specific mechanism of radion stabilization (the superpotential). Indeed, assuming a general W (T ) and the same Kähler potential, the stationarity conditions are easily seen to imply F_T T = F_ϕ ∂_T W T ∂^2_T W

. (6.5)

Now, for a generic superpotential depending on powers of T , we would expect the right hand side to be of order F_ϕ. Indeed, this is what one finds for instance for W = a + bT^{−n}. However, for the purely exponential dependence of eq. (6.2) there comes an extra 1/T suppression in F_T /T with respect to the naively expected result. Notice that for F_T /T ∼ F_ϕ, α_G would drop out from eq. (6.4) and the expected flavor violation from gravity loops would scale like α^{2/3}_5 ∼ α^{4/3}, which is in the interesting range. It would be interesting to look for alternative models of radius stabilization where F_T /T ∼ F_ϕ and we leave it for future work. In the meantime, we would like to study some basic features of the warped case, which, as we shall see, opens a perhaps more promising direction of investigation.

6.2 Strongly warped case

In the warped case, the situation is similar, but the two possible choices for the locations of the visible and hidden sectors are no longer equivalent, and must be studied separately. Notice also that the radion, as parametrized by μ = kϕe^{−kT} , looks like a ordinary matter field with a canonical Kähler potential. This is not at all surprising in view of the holographic interpretation. Moreover, unlike in a flat geometry, a constant superpotential localized on the IR brane leads to a radiondependent effective 4D superpotential.

We will consider the case where the visible sector is on the UV brane at z_0 and the hidden sector on the IR brane at z_1, as in this case, localized kinetic terms can make the soft masses squared positive. If the visible sector is put on the IR brane, it is not possible to obtain positive corrections to the soft masses squared from the gravitational sector; therefore we do not study this case further.

Since the matter and gauge fields live on the UV brane, they have a canonically normalized kinetic term and they couple to the ordinary conformal compensator ϕ. The soft masses are then given by

m_{1/2} = a g^2 (4π)^2

|F_ϕ| , (6.6)

m^2_0 = b g^4 (4π)^4 |F_ϕ|^2 − |μ|^2 3π^2M^3_5 k f^{(1,0)}_w (−α_ik) |F_μ|^2 − k^2 |μ|^2 36π^2M^6_5 f^{(1,1)}_w (−α_ik) |F_X |^2 . (6.7)

Notice that we canonically normalized the Goldstone multiplet X, see eq. (6.8). The numerical coefficients a and b controlling the anomaly-mediated contributions depend on the quantum numbers of the corresponding particles. The function f_w was calculated in section 4 (c.f. eq. (4.45)) in the limit of large warping and is a function of the localized kinetic terms. As in the flat case, f^{(1,0)} and f^{(1,1)} are both positive for α_0 = 0 and α_1 = 0, but for α_0 = 0 and α_1k > 0.6, the first becomes negative, whereas the second remains positive. We therefore have the same potentially interesting case as in the flat case for α_0 and α_1k ∼ 1, although the braneto-brane-mediated contribution, which stays negative, is a priori not suppressed with respect to the radion-mediatied contribution, which can become positive.

We parametrize the effective Kähler potential and superpotential as follows:

Ω = −3

M^3_5 k^3 ( k^2ϕ^†ϕ − μ^†μ ) − 3M^2_0 ϕ^†ϕ − 3

M^2_1 k^2 μ^†μ + X^†X , (6.8)

W = Λ^{3−n} ϕ^{3−n}μ^n + Λ^3_0 ϕ^3 + a μ^3 + b Xμ^2 . (6.9)

The superpotential terms can arise from both gaugino condensation [29] and tree level dynamics, like in the supersymmetric version of the Goldberger-Wise mechanism [44, 58]. Compatibly with the AdS/CFT interpretation the first term can be interpreted as coming from a deformation by chiral operator of conformal dimension n. Then unitarity requires n > 1. In fact for the case in which this term arises from gaugino condensation [29] we have n ∼ 4π^2/(kg^2_5 ) ≫ 1. Low energy quantities depend on the localized kinetic terms through the combinations M^2_ϕ = M^3_5 /k + M^2_0 and M^2_μ = (M^3_5 /k − M^2_1 ). The Planck mass is given by M^2 = M^2_ϕ − M^2_μ |μ/k|^2, or just M^2 ≃ M^2_ϕ for small μ. The extreme case where Λ_0 = 0 with a ≠ 0, that is with a constant superpotential only in the hidden sector, was analyzed in ref. [29]. Taking an appropriate choice for the parameters Λ, a and b, there exists a solution with vanishing cosmological constant and small μ/k. However, we get in this case that F_ϕ ∼ F_μ/μ ∼ F_X /M. This implies that the contribution from radion mediation is parametrically smaller than the one from brane-to-brane mediation by a factor (μ/k)^2. Therefore this case cannot work in the limit of large warping that we want to consider. The opposite extreme case, where Λ_0 ≠ 0 and a = 0, that is to say just a constant superpotential on the Plank brane, can be analyzed similarly. In this case, a solution with vanishing cosmological constant and small μ/k exists but only for n < 1. Thus we shall not consider this case further. A more interesting situation can be obtained by considering the more general regime in which a is non-zero and Λ_0 is small enough to be negligible in the radius stabilization dynamics (which is then entirely controlled by the positive matter terms associated to μ and X) This assumption is consistent with the possibility to tune Λ_0 to cancel the cosmological constant: this is the same remark usually made in models where supersymmetry is dynamically broken at low energy. In such a situation, we can find a solution with vanishing cosmological constant and small μ/k by tuning Λ^3_0 and by choosing (Λ/k)^{3−n} ≫ a for n > 3 or (Λ/k)^{3−n} ≪ a for n < 3. Defining for convenience the parameter ρ = | | | | b M_μ ka | | | | , (6.10)

we find that the cancellation of the cosmological constant requires

|1 − f(ρ)|^2 + ρ^2 3 = (Λ_0/k)^6 a^2 ( M_μ M )_2 ( μ/k)^{−4} , (6.11)

where

f(ρ) = 1 + n − 3 2(n − 1) (√ 1 − 8(n − 1) 3(n − 3)^2 ρ^2 − 1 ) . (6.12)

Minimization of the potential yields the following results for μ and the different

F -terms: μ ≃ ( − 3 n af(ρ) ) 1_{n−3} Λ , (6.13) |F_ϕ| ≃ Λ^3_0 M^2

, (6.14) |F_μ| ≃ M M_μ |1 − f(ρ)| √ (1 − f(ρ))^2 + ρ^2/3

Λ^3_0 M^2 k , (6.15) |F_X | ≃ ρ √ (1 − f(ρ))^2 + ρ^2/3

|Λ_0|^3 M . (6.16)

The value of the parameter ρ can be arbitrarily chosen between the minimal value 0 and the maximal value √ 3/8 √ (n − 3)^2/(n − 1). Taking ρ and f(ρ) of order one, we get F_ϕ ∼ F_μ/k ∼ F_X /M. This implies that the contribution to m^2_0 in eq. (6.7) from radion and brane-to-brane mediations have the same magnitude and can compete with the contribution from anomaly mediation if μ/M ∼ g^2/(4π)^2. Note that the localized kinetic term helps in making the radion-mediated contribution dominant compared to the brane-to-brane-mediated one, as we need to take M_μ < M in order to make it positive. More precisely, in order to significantly suppress the latter with respect to the former, one has to go to the regime in which the localized kinetic term gets close to its critical value. This is the analogue of a large localized kinetic term in the flat case. However, it is important to emphasize the in the flat case the suppression comes from the coefficients of the radiatively induced operators, whereas in the strongly warped case it comes from the scaling of the F -terms.

A more detailed study is needed to determine whether or not the scenario outlined here can be embedded in a fully viable model. In order to do so we would have to choose a specific mechanism to generate the bulk superpotential (for instance by adding Golberger–Wise hypermultiplets in the bulk) and then check that the new sources of soft terms that are generated in the specific model do not spoil the solution to the supersymmetric flavor problem. What we have just proven is the absence of obstructions to obtain positive masses from gravitational loops plus anomaly mediation while having soft terms that scale like

m_0 ∼ m_{1/2} ∼ ( g2 16π^2 ) m_{3/2} , (6.17)

m_{radion} ∼ (μ/k)^{−1} m_{3/2} . (6.18)

Overall, this scenario seems more promising than the one presented in flat case, as we do not have the extra suppression of the radion-mediated contribution.

7 Summary and conclusions

Anomaly mediation is very attractive as it is very model-independent and predictive, and solves the supersymmetric flavor problem. However, it predicts tachyonic sleptons, and therefore other contributions to the slepton soft masses are needed. In the context of sequestered models where the supersymmetry breaking sector and the SM sector are spatially separated in an extra-dimension, gravity loops can potentially provide such additional contributions. The transmission of supersymmetry breaking through these gravity loops is finite and calculable, because of its nonlocal nature. Moreover, and for the same reason, it does not suffer from the flavor problem of the usual 4D gravity mediation of supersymmetry breaking. Recently, the contribution of gravitational loops to brane to brane and radion-mediated soft masses was computed in the case of a flat extra-dimension [8, 9]. The result was partly disappointing as the contributions to the scalars soft masses squared were found to be negative in most cases. Fortunately, in ref. [8] it was found that the presence of a sizable localized gravitational kinetic term at the hidden brane induces a positive contribution to the soft masses squared.

Inspired by this result, in this paper we have calculated the effective Kähler potential in warped sequestered models. We used a superfield technique to perform our calculation. More precisely, we wrote the linearized bulk supergravity Lagrangian in term of N = 1 superfields. Couplings between brane and bulk fields are then easily written down using the known N = 1 supergravity couplings. We then performed a one loop supergraph calculation to find the effective Kähler potential valid in the presence of arbitrary localized kinetic terms for the supergravity fields. This calculation has the same flavor as the calculation of the Coleman-Weinberg potential and the result is given by

ΔΩ_{1−loop} = 1 2 ∫ d^4p (2π)^4 ∑ n −4 p^2 ln(p^2 + m̄^2_n) , (7.1)

where m̄_n are the masses of the KK gravitons in RS1, with arbitrary kinetic terms on both branes.

In general, we find that in the absence of localized kinetic terms for the supergravity multiplet, the gravitational contributions to the soft masses squared are negative, thus worsening the tachyonic slepton problem of anomaly mediation. In the limit of large warping, they go to zero, consistently with the fact that in this limit the theory becomes conformal. However, we find that adding a localized kinetic term on the IR brane can make the radion contribution to the soft masses positive.

We emphasize that our formula is of a general nature. In particular, its generalization to higher co-dimensions should be easy to explore. This would only require the knowledge of the KK spectrum of the J = 2 modes as a function of the moduli of the higher dimensional space in question, which is a relatively easy task. Also, the embedding of these moduli into superfields should be known, which should again be easy, if the low energy description of the model is known. We leave the exploration of this generalization for future work.

We also presented a simple way of understanding the form of the matter-dependent terms in the effective Kähler potential (radion and brane-to-brane contributions) as a function of the matter-independent one. The relevant observation is that for the low lying modes, that dominate our calculation, a shift in the position of the brane is equivalent to adding a localized kinetic term on the brane. Therefore, the radionto-brane and brane-to-brane operators can be obtain from the matter independent effective Kähler potential by taking derivatives of the latter with respect to the radion.

Finally, we presented the effective description of a model where the radius is stabilized, and supersymmetry is broken in such a way that parametrically, the radionmediated contribution to the soft masses squared can compete with the anomalymediated and brane-to-brane contributions, in a region of parameter space where the effective field theory description is valid. In such a model, phenomenologically viable supersymmetry breaking soft masses could arise from flavor universal and purely gravitational quantum effects.

Acknowledgements

We thank J.-P. Derendinger, A. Falkowski, M. Luty and F. Zwirner for useful discussions. This research was supported in part by the European Commission through a Marie Curie fellowship and the RTN contract MRTN-CT-2004-503369.

A Component Lagrangian

In this appendix, we describe the component form of the superfield Lagrangian (3.38). Apart from the terms involving the prepotential P_T for the radion, the calculation is very similar to the one done in ref. [36], and we therefore refer the reader to that paper for more details. The first step is to chose a convenient Wess– Zumino gauge as in ref. [36], in which the bosonic components of the superfields are given by the following expressions:

V_n = −θσ^mθ̄h̃_{mn} + θ^2θ̄^2d_n ,

Ψ_α = θ^β u_{βα} + i 2 θ̄_{α̇}v_α^{α̇} + θ̄^2θ^β ( w_{βα} + 1 4 σ^n_{ββ̇}∂_nv_α^{β̇} ) + θ^2θ̄_{α̇} ( y_α^{α̇} + i 2 σ̄^{nα̇β}∂_nu_{βα} ) , P_Σ = −θσ^mθ̄τ^Σ_m + θ^2θ̄^2D_Σ ,

Σ = θ^2 ( D_Σ − i 2 ∂_mτ^Σ_m ) , P_T = ρ_T + θ^2t̄ + θ̄^2t − θσ^mθ̄τ^T_m + θ^2θ̄^2 ( D_T − 1 4 □ρ_T ) , T = t + θ^2 ( D_T − i 2 ∂_mτ^T_m ) + iθσ^mθ̄∂_mt + 1 4 θ^2θ̄^2□t .

In components this give: L = e^{−2σ} { 1 2 (∂^nh̃_{nm})^2 + 1 2 (∂^nh̃_{mn})^2 − 1 2 (∂_ph̃_{mn})^2 + 1 3 h̃∂_m∂_nh̃_{mn} + 1 6 (∂_mh̃)^2 − 1 6 (ϵ^{mnpq}∂_ph̃_{mn})^2 + 4 3 d^2_n + 2 3 ϵ^{mnpq}∂_ph̃_{mn}d_q + 1 4 ( σ^n_{βα̇}w^β_α + σ_α˙_βw̄^{β̇}_{α̇} + Re∂_nv_{αα̇} − e^{−σ}∂_yh̃_{nαα̇}

)_2

+ 1 2 Imv_n□Imv^n + 2e^{−σ} Imv_n∂_y d^n + i 2 Imv^{αα̇}∂_{βα̇}w^β_α − i 2 Imv^{α̇α}∂_α˙_βw̄^{β̇}_{α̇} + 1 2 | |w^α_α + ∂_nv_n − 3e^{−σ} σ^′t | |^2 + Ret ∂_m∂_nh̃_{mn} + 2 |y_n|^2 −2 [ Rey_n + i 4 σ̄^{nα̇β} ( ∂_{αα̇}u^α_β − ∂_β˙_βū^{β̇}_{α̇} ) − 1 4 e^{−σ} ( ∂_yτ^Σ_m + 3σ^′τ^T_m ) ]2 − 3 2 e^{−σ}σ^′ρ_T [ 2∂_pImy_p − e^{−σ} ( ∂_y D_Σ + 3σ^′ ( D_T − 1 4 □ρ_T ))]

−D_T D_Σ − 1 4 ∂_mτ^T_m ∂_mτ^Σ_m − 1 3 D^2_Σ − 1 12 (∂_mτ^Σ_m)^2 } . (A.1)

There are two independent sectors: one containing h, t, v, w and d, and one containing D_Σ, D_T , τ^Σ_m, τ^T_m , y_n, u_{αβ}. In the former, h, t and v are physical fields, whereas w and d are auxiliary and must be integrated out. In the latter, none of the fields propagates. After eliminating all the auxiliary and non-propagating fields, one finally finds the following Lagrangian:

L = M^3_5 e^{−2σ} { (∂^nh_{nm})^2 + h∂_n∂_mh_{nm} + 1 2 (∂_mh)^2 − 1 2 (∂_ph_{mn})^2 + 1 2 e^{−2σ} [ (∂_yh)^2 − (∂_yh_{mn})^2 ] − 1 2 (∂_nh_{my} − ∂_mh_{ny} )^2 +2e^{−σ} ∂_mh_{ny} ∂_y h^{mn} − 2e^{−σ} ∂^nh_{ny} ∂_y h + h_{yy} ∂^m∂^nh_{mn} − h_{yy} □h +6e^{−2σ} σ^{′2}h^2_{yy} − 6e^{−σ} h_{yy} ∂_nh_{ny} + 3e^{−2σ} σ^′h_{yy} ∂_yh − 1 4 e^{2σ} (∂_nB_m − ∂_mB_n)^2 − 1 2 (∂_mB_y − ∂_y B_m)^2 } , (A.2) where we have defined: h_{mn} = 1 2 (h̃_{mn} + h̃_{nm}) − 1 3 η_{mn}h̃ , h_{my} = 1 2 Re v_m , h_{yy} = Re t ; (A.3) B_m = e^{−σ} √ 3 2 Im v_m , B_y = √ 3 2 Im t . (A.4)

This Lagrangian matches the expantion of the full RS1 Lagrangian to quadratic order in the fluctuations, provided these are parametrized in the following way:

ds^2 = e^{−2σ} (η_{mn} + h_{mn}) dx^mdx^n + 2e^{−σ} h_{my} dx^mdy + (1 + h_{55})dy^2 (A.5)

In fact, a better parametrization of the fluctuations, that makes the zero mode manifest, is defined by:

ds^2 = e^{−2σ(1+T )} (η_{mn} + h_{mn}) dx^mdx^n + 2e^{−σ} h_{my} dx^mdy + (1 + T )^2dy^2 (A.6)

It can be checked that T = T̄ (x) and h_{mn} = h̄_{mn}(x) are zero modes. This fact can be seen in our quadratic Lagrangian by replacing h_{mn} by h̄_{mn}(x) − σh̄_{yy} (x), h_{yy} by h̄_{yy} (x), B_y by B̄_y(x), setting the odd field h_{my} and B_m to zero, and integrating over y. We get in this way:

L = M^3_5 { 1−e^{−2kπR} k [ ( ∂^nh̄_{nm} )_2 + h̄∂^m∂^nh̄_{mn} + 1 2 ( ∂_mh̄ )_2 − 1 2 ( ∂_ph̄_{mn} )_2 − 1 2 ( ∂_mB̄_y )_2 ]

+ πR e^{−2kπR} [ ( ∂^n∂^mh̄_{mn} − □h̄ )¯ h_{yy} + 3kπR h̄_{yy} □h̄_{yy} ]} . (A.7)

References

[1] A. H. Chamseddine, R. Arnowitt, and P. Nath, Phys. Rev. Lett. 49, 970 (1982);

R. Barbieri, S. Ferrara, and C. A. Savoy, Phys. Lett. B119, 343 (1982); L. J. Hall, J. Lykken, and S. Weinberg, Phys. Rev. D27, 2359 (1983); H. P. Nilles, M. Srednicki, and D. Wyler, Phys. Lett. B120, 346 (1983); L. E. Ibanez, Phys. Lett. B118, 73 (1982); N. Ohta, Prog. Theor. Phys. 70, 542 (1983).

[2] M. Dine, A. E. Nelson, and Y. Shirman, Phys. Rev. D51, 1362 (1995), hep-ph/9408384.

[3] G. F. Giudice and R. Rattazzi, Phys. Rept. 322, 419 (1999)

[4] L. Randall and R. Sundrum, Nucl. Phys. B557, 79 (1999), hep-th/9810155.

[5] G. F. Giudice, M. A. Luty, H. Murayama, and R. Rattazzi, JHEP 12, 027 (1998), hep-ph/9810442.

[6] Z. Chacko, M. A. Luty, I. Maksymyk, and E. Ponton, JHEP 04, 001 (2000), hep-ph/9905390.

[7] T. Gherghetta and A. Riotto, Nucl. Phys. B623, 97 (2002), hep-th/0110022. [8] R. Rattazzi, C. A. Scrucca, and A. Strumia, Nucl. Phys. B674, 171 (2003), hep-th/0305184.

[9] I. L. Buchbinder et al., Phys. Rev. D70, 025008 (2004), hep-th/0305169. [10] L. Randall and R. Sundrum, Phys. Rev. Lett. 83, 3370 (1999), hep-ph/9905221. [11] J. M. Maldacena, Adv. Theor. Math. Phys. 2, 231 (1998), hep-th/9711200. [12] J. Maldacena, unpublished; E. Witten, talk at the ITP conference New Dimensions in Field Theory and String Theory, Santa Barbara, http://www.itp.ucsb.edu/online/susy c99/discussion.

[13] S. S. Gubser, Phys. Rev. D63, 084017 (2001), hep-th/9912001. [14] H. Verlinde, Nucl. Phys. B580, 264 (2000), hep-th/9906182. [15] N. Arkani-Hamed, M. Porrati, and L. Randall, JHEP 08, 017 (2001), hep-th/0012148.

[16] R. Rattazzi and A. Zaffaroni, JHEP 04, 021 (2001), hep-th/0012248. [17] M. Perez-Victoria, JHEP 05, 064 (2001), hep-th/0105048. [18] M. A. Luty, M. Porrati, and R. Rattazzi, JHEP 09, 029 (2003), hep-th/0303116. [19] M. Zucker, Nucl. Phys. B570, 267 (2000), hep-th/9907082. [20] M. Zucker, JHEP 08, 016 (2000), hep-th/9909144. [21] M. Zucker, Phys. Rev. D64, 024024 (2001), hep-th/0009083. [22] T. Gherghetta and A. Pomarol, Nucl. Phys. B586, 141 (2000), hep-ph/0003129.

[23] A. Falkowski, Z. Lalak, and S. Pokorski, Phys. Lett. B491, 172 (2000), hep-th/0004093.

[24] E. Bergshoeff, R. Kallosh, and A. Van Proeyen, JHEP 10, 033 (2000), hep-th/0007044.

[25] R. Altendorfer, J. Bagger, and D. Nemeschansky, Phys. Rev. D63, 125025 (2001), hep-th/0003117.

[26] J. Bagger and D. V. Belyaev, Phys. Rev. D67, 025004 (2003), hep-th/0206024. [27] Z. Lalak and R. Matyszkiewicz, Phys. Lett. B562, 347 (2003), hep-th/0303227.

[28] M. Zucker, Fortsch. Phys. 51, 899 (2003).

[29] M. A. Luty and R. Sundrum, Phys. Rev. D64, 065012 (2001), hep-th/0012158. [30] J. Bagger and M. Redi, JHEP 04, 031 (2004), hep-th/0312220. [31] J. Bagger and M. Redi, Phys. Lett. B582, 117 (2004), hep-th/0310086. [32] J.-P. Derendinger, C. Kounnas, and F. Zwirner, Nucl. Phys. B691, 233 (2004), hep-th/0403043.

[33] N. Marcus, A. Sagnotti, and W. Siegel, Nucl. Phys. B224, 159 (1983). [34] N. Arkani-Hamed, T. Gregoire, and J. Wacker, JHEP 03, 055 (2002), hep-th/0101233.

[35] N. Arkani-Hamed, L. J. Hall, D. R. Smith, and N. Weiner, Phys. Rev. D63, 056003 (2001), hep-ph/9911421.

[36] W. D. . Linch, M. A. Luty and J. Phillips, Phys. Rev. D68, 025008 (2003), hep-th/0209060.

[37] E. A. Mirabelli and M. E. Peskin, Phys. Rev. D58, 065002 (1998), hep-th/9712214.

[38] S. J. J. Gates, S. M. Kuzenko, and J. Phillips, Phys. Lett. B576, 97 (2003), hep-th/0306288.

[39] S. J. Gates, M. T. Grisaru, M. Rocek, and W. Siegel, Front. Phys. 58, 1 (1983), hep-th/0108200.

[40] T. Gregoire, M. D. Schwartz, and Y. Shadmi, JHEP 07, 029 (2004), hep-th/0403224.

[41] M. A. Luty and R. Sundrum, Phys. Rev. D62, 035008 (2000), hep-th/9910202. [42] D. Marti and A. Pomarol, Phys. Rev. D64, 105025 (2001), hep-th/0106256. [43] T. Hirayama and K. Yoshioka, JHEP 01, 032 (2004), hep-th/0311233. [44] W. D. Goldberger and M. B. Wise, Phys. Lett. B475, 275 (2000), hep-ph/9911457.

[45] J. Bagger, D. Nemeschansky, and R.-J. Zhang, JHEP 08, 057 (2001), hep-th/0012163.

[46] C. Charmousis, R. Gregory, and V. A. Rubakov, Phys. Rev. D62, 067505 (2000), hep-th/9912160.

[47] S. R. Coleman and E. Weinberg, Phys. Rev. D7, 1888 (1973). [48] M. T. Grisaru, M. Rocek, and R. von Unge, Phys. Lett. B383, 415 (1996), hep-th/9605149.

[49] T. Gherghetta and A. Pomarol, Nucl. Phys. B602, 3 (2001), hep-ph/0012378. [50] L. Randall and M. D. Schwartz, JHEP 11, 003 (2001), hep-th/0108114. [51] A. Lewandowski, M. J. May, and R. Sundrum, Phys. Rev. D67, 024036 (2003), hep-th/0209050.

[52] E. Ponton and E. Poppitz, JHEP 06, 019 (2001), hep-ph/0105021. [53] J. Garriga, O. Pujolas, and T. Tanaka, Nucl. Phys. B605, 192 (2001), hep-th/0004109.

[54] J. Garriga and A. Pomarol, Phys. Lett. B560, 91 (2003), hep-th/0212227. [55] A. A. Saharian and M. R. Setare, Phys. Lett. B552, 119 (2003), hep-th/0207138.

[56] W. D. Goldberger and I. Z. Rothstein, Phys. Lett. B491, 339 (2000), hep-th/0007065.

[57] I. Brevik, K. A. Milton, S. Nojiri, and S. D. Odintsov, Nucl. Phys. B599, 305 (2001), hep-th/0010205.

[58] H.-S. Goh, M. A. Luty, and S.-P. Ng, hep-th/0309103. [59] N. Maru and N. Okada, Phys. Rev. D70, 025002 (2004), hep-th/0312148. [60] T. Gregoire, R. Rattazzi and C. Scrucca, work in progress. [61] K. I. Izawa, Y. Nomura, K. Tobe, and T. Yanagida, Phys. Rev. D56, 2886 (1997), hep-ph/9705228.