arXiv:hep-th/0601062 v3 21 Apr 2006

April 21, 2006 EFI-05-21, UCI-TR-2005-47, ITFA-2006-02

Effective Dynamics of the Matrix Big Bang

Ben Craps^{a, b1}, Arvind Rajaraman^{c2} and Savdeep Sethi^{d3}

a Theoretische Natuurkunde, Vrije Universiteit Brussel and The International Solvay Institutes Pleinlaan 2, B-1050 Brussels, Belgium^4

b Instituut voor Theoretische Fysica, Universiteit van Amsterdam, Valckenierstraat 65, 1018 XE Amsterdam, The Netherlands

c Department of Physics and Astronomy, University of California, Irvine, CA 92697, USA

d Enrico Fermi Institute, University of Chicago, Chicago, IL 60637, USA

Abstract

We study the leading quantum effects in the recently introduced Matrix Big Bang model. This amounts to a study of supersymmetric Yang-Mills theory compactified on the Milne orbifold. We find a one-loop potential that is attractive near the Big Bang. Surprisingly, the potential decays very rapidly at late times, where it appears to be generated by D-brane effects. Usually, general covariance constrains the form of any effective action generated by renormalization group flow. However, the form of our one-loop potential seems to violate these constraints in a manner that suggests a connection between the cosmological singularity and long wavelength, late time physics.

1email address: Ben.Craps@vub.ac.be 2email address: arajaram@uci.edu 3email address: sethi@theory.uchicago.edu 4present address

1 Introduction

One of the basic lessons emerging from recent work on cosmological singularities is the need to understand interacting field theories which are not Lorentz invariant. These field theories describe physics in cosmological settings via holography. The breaking of Lorentz invariance is inevitable since cosmological space-times distinguish time. Much of the past work on field theory in curved space-times focuses on free fields (see, for example, [1]). The inclusion of interactions turns out to be remarkably non-trivial. This can be understood intuitively: as time evolves from the Big Bang, the wavelength of an excitation red-shifts. Therefore, the notion of a high or low-energy excitation becomes time-dependent. Correspondingly, the use of renormalization group flow to define “low-energy” dynamics becomes subtle.

Our goal in this work is to study the dynamics of the particular Big Bang model introduced in [2] based on Matrix theory [3]. For a sampling of recent work on holography and cosmological singularities, see [4–17]. The space-time theory is type IIA string theory in flat space with a non-trivial dilaton, ϕ = −QX^+. (1) The Big Bang occurs as X^+ → −∞ where the theory is strongly coupled. At late times, perturbative string theory becomes a good description.

After compactifying X^− ∼ X^− + R, we are led to a non-perturbative definition of string theory on this background given in terms of maximally supersymmetric Yang-Mills in two dimensions compactified on the Milne orbifold. This should be contrasted with studies where the Milne orbifold appears as a string theory target space [18–25]. At early times near the Big Bang, the model is perturbative Yang-Mills while at late times the model reduces to perturbative strings on the light-like linear dilaton background.

In section 2.2, we will directly check that the Matrix model fermions are indeed fermions on Milne space. In terms of the orbifold description of Milne space, these fermions have unconventional periodicity properties which are described in section 2.3. The upshot of this discussion is that the breaking of Poincaré invariance on the world-sheet is spontaneous in this model, in the sense that the field theory action is invariant under diffeomorphisms if the background metric is transformed as well. We should note that in other related Matrix models, the breaking of Poincaré invariance is not spontaneous; see, for example [15].

The question that we wish to address is how to describe the effective dynamics in our Matrix model. This involves understanding how to define effective dynamics in a time-dependent background, and then determining whether a potential is generated in this model.

We will find that the presence of a Big Bang is detectable at late times as an effective potential generated by infrared physics. This is a little surprising since the Big Bang is an ultraviolet phenomena. What is more strange is the form of the potential. The structure of the late time effective action appears to violate arguments following from general covariance which we will describe in the following section. We suspect that this will be a quite general phenomenon suggestively connecting infra-red physics to a cosmological singularity.

The potential we find is attractive near the Big Bang and decays very rapidly at late times. This strongly suggests that the flat directions required in Matrix theory for a spacetime interpretation are restored at late times despite the broken supersymmetry. We seem to avoid the kind of problems encountered in [26]. This late time regime is where we expect perturbative string theory to be a good description so this rapid decay is unexpected good news. Given the extremely rapid late time decay, it might even be the case that higher loop corrections to the potential are suppressed despite the strong Matrix model coupling. If so, we predict the existence of a potential in string theory between gravitons with separation b in the light-like linear dilaton background with leading asymptotic behavior ∫ √ g V_{ef f} (b) ∼ ∫ √ b g_s exp ( − Cb g_s ) , (2)

with constant C. The form suggests that the potential is generated by D-brane effects in this time-dependent background.

Note added: During the completion of this project, we received [27] which discusses similar issues in a slightly different model.

2 Spontaneous Breaking of Poincaré Invariance

2.1 Some comments on general covariance

Consider a local quantum field theory in a background spacetime with metric g, such that the classical action is invariant under general coordinate transformations if the background metric is transformed appropriately. If the spacetime has non-trivial topology, we may need to specify choices like the spin structure for fermions and perhaps the topology of the fields. What can we say about the effective quantum dynamics? If there are no gravitational anomalies, then general coordinate transformations (accompanied by transforming the background metric) and local Lorentz transformations must be symmetries preserved under renormalization group flow. If for instance we assume that the field theory can be consistently coupled to gravity by making the metric dynamical, this must be the case.

What we conclude is that the low-energy theory can be described by an expansion of the schematic form, S_{ef f} = ∫ √ g̃ { ∂_μΦ∂^μΦ + V^{(0)}(Φ) + R(g̃)V^{(1)}(Φ) + . . . } , (3)

where Φ are light fields and R(g̃) is the Ricci scalar for a possibly renormalized metric g̃. All terms in this action, including omitted terms, must respect diffeomorphism invariance.

In particular V^{(0)}(Φ) is metric independent and so can be computed using a flat metric. For a theory with extended supersymmetry, this potential vanishes. On the other hand, V^{(1)}(Φ) can be non-vanishing on space-times with non-vanishing curvature even in supersymmetric theories.

In our particular case, we are interested in maximally supersymmetric Yang-Mills compactified on the Milne orbifold. The Milne orbifold is obtained from Minkowski space,

ds^2 = −2dξ^+dξ^− , (4)

by the boost identification ξ^± ∼ ξ^±e^{±2πQℓs} . (5) In terms of new coordinates τ, σ defined by

ξ^± = 1 √ 2Q e^{Q(τ ±σ)}, (6) the metric reads ds^2 = e^{2Qτ} (−dτ^2 + dσ^2) (7) and the identification is σ ∼ σ + 2πℓ_s. (8) We can further introduce light-cone coordinates

x^± = 1 √ 2 (τ ± σ), (9) in terms of which the metric reads

ds^2 = e^{√2Q(x++x− )}(−2dx^+dx^−). (10)

Without the periodic identification (8), this space-time is equivalent to flat space (much like taking the Rindler slice in four dimensions). All curvatures are therefore vanishing everywhere except possibly at the fixed point τ = −∞ which corresponds to the Big Bang.

This point is rather critical. Just from the structure of the metric, we see that the presence of the cosmological singularity is detectable by long wavelength physics at late times: namely, by detecting the presence of a large circle varying in time and locally vanishing curvatures. This same circle identification induces both the cosmological singularity and also supersymmetry breaking.

What we will find by computation is that a potential is generated in this model because of infrared effects. One way to understand this is by viewing the theory as an orbifold compactification in terms of (ξ^+, ξ^−). In this frame, the circle identification is up to the action of a boost. This orbifold identification leads to a twisted boundary condition that depends on the spin of the particle.

In particular, this twist leads to a mismatch in boson/fermion oscillator frequencies on the circle. Without the usual supersymmetric cancellation, a potential is generated. However, as we will describe, the mismatch in frequencies is very small at high energies but significant at low-energies. The corresponding potential is not localized at time τ = −∞ as one might expect from the general form of (3). Rather the potential leads to rapidly decaying but observable effects even at late times.

This amounts to a strange intertwining of long distance/late time physics (effects from the large circle) and the cosmological singularity. In orbifold compactifications of flat space, these kinds of correlations seem unavoidable since the curvature is vanishing everywhere but the fixed point set. Unlike static orbifolds, all modes detect these effects in models with a cosmological singularity. For example, all modes detect the breaking of supersymmetry.

There are a few possible explanations that might reconcile the form of the potential we find with the structure expected from covariance. It is possible that the effective action is ill-defined on cosmological backgrounds. In section 3.1 we will argue that the Wilsonian effective action is ill-defined on any space-time where the blue-shift can be arbitrarily large. However, at least in cases like the Milne orbifold, the 1PI effective action appears to be sensible. It is also possible that on spaces with a non-trivial fundamental group, like the Milne orbifold, there might exist more diffeomorphism invariants that could be used to construct the potential.

2.2 Fermions in the matrix model

Our first task is to show that the fermions appearing in the Matrix Big Bang model are actually fermions on Milne space. This is important for two reasons: first to demonstrate that Lorentz invariance is spontaneously rather than explicitly broken. Second, to determine the choice of spin structure on the world-volume circle.

Fermion couplings at the level of the DBI action have been analyzed in [28–30]. We need to study the type IIB background related by U-duality to the type IIA string with a light-like linear dilaton and a compact direction X^− ∼ X^− + R. Let us consider the case of a single D-string wrapped on x^1 in this type IIB background ds^2 = re^{ϵQx+} { −2dx^+dx^− + 8∑ i=1 (dx^i)^2 } , (11)

ϕ = ϵQx^+ + log r, (12)

with the identification x^1 ∼ x^1 + 2πℓ_s r . (13) The parameter r is defined to be r ≡ ϵR 2πℓ_s (14)

and we identify the world-volume coordinates (τ, σ) with space-time coordinates as follows

x^1 = 1 r σ, x^+ = 1 r τ √ 2 . (15)

After fixing the κ-symmetry and setting the gauge field strength to zero, the fermion couplings can be expressed in the form

S_F = 1 2πℓ^2_s ∫ dτ dσe^{−ϕ} √ det(−g) ψ̄ /Dψ. (16)

The metric g appearing in (16) is the pull-back to the world-volume of the space-time metric (11), ds^2 = 1 r e^{ϵQτ√2r} { −dτ^2 + dσ^2 } . (17) The same is true for the Dirac operator. It is notable that a coupling to the gradient of the dilaton could have been present but vanishes by symmetry considerations [30].

The prefactor multiplying the fermion bilinear in (16) can be read from [2] e^{−ϕ} √ det(−g) = 1 r^2

. (18)

We also need to compute the pull-back of the spin connection. To determine the spin connection, we make a choice of frame bundle

e^i = √ re^{ϵQx+/2}dx^i. (19) With this choice, the spin connection pulled back to the brane has non-vanishing components ω^{1−} = − ϵQ 2r dσ, ω^{−+} = ϵQ 2 √ 2r dτ. (20) It is easiest to view the fermion appearing in (16) as a Majorana-Weyl fermion in 9 + 1- dimensions. Under reduction to the world-volume of the D-string, the fermion decomposes into representations 1_+ ⊗ 8_c + 1_− ⊗ 8_s (21) under the Spin(1, 1) × Spin(8)_R symmetry group in 1 + 1-dimensions. However, one can readily check that the spin connection (20) drops out of (16).

In terms of flat space gamma matrices, the fermion kinetic term is then given by e^{−ϕ} √ det(−g) ψ̄ /Dψ = 1 r^{3/2} e^{− ϵQτ2√2r} ψ̄ ( γ^0∂_τ + γ^1∂_σ ) ψ. (22)

Note we can always field redefine the fermions to remove the time-dependence in (22) without introducing any new couplings. So from this abelian expression, we cannot determine whether the fermions really see the Milne orbifold because they are completely decoupled from the boson sector of the theory.

What we require is the non-abelian generalization of (22). Fortunately, this can be determined in the following way. The fermion kinetic term is obtained by starting with nonabelian 9 + 1-dimensional Yang-Mills coupled to the background metric. This amounts to including a 9 + 1-dimensional gauge-field in /D and taking a trace. This covariant derivative is then pulled back to the world-volume of the brane to give both the fermion kinetic terms and the Yukawa couplings.

On performing this procedure, we find the following quadratic fermion couplings, 1 r^{3/2} tr { e^{− ϵQτ2√2r} ψ̄ ( γ^0D_τ + γ^1D_σ ) ψ + e^{ϵQτ2√2r} ψ̄γ^i [ X^i, ψ ]} , (23) where the γ^i are standard gamma matrices for Spin(8). The scalar X^i is in the adjoint representation of the U(N) gauge group. We are now free to rescale ψ so the fermion kinetic terms are canonical tr { ψ̄ (γ^0D_τ + γ^1D_σ ) ψ + e^{ϵQτ√}2r ψ̄γ^i [X^i, ψ] } . (24)

Note that all the ϵ factors cancel as we might expect. By comparison with [2], it is easy to see that this is precisely the right coupling needed for fermions on the Milne orbifold. We also note that the choice of spin structure is also determined in this frame by the duality chain. Namely, the fermions are periodic in the σ direction.

2.3 Wavefunctions on the Milne orbifold

Although the frame in which the fermions are periodic on the Milne circle is natural from the perspective of the metric (7), it is not natural for the orbifold description with metric (4). To understand the different approaches, let us turn to a discussion of wavefunctions on Milne space from the perspective of the orbifold construction and associated equivariant bundles.

The action of the boost (5) on a wavefunction depends on the spin s. Boost invariant wavefunctions satisfy [24] ϕ_s(e^{2πQℓs} ξ^+, e^{−2πQℓs} ξ^−) = e^{2πQℓss}ϕ_s(ξ^+, ξ^−). (25) Solutions of the wave equation satisfying this condition are given by [24]

ϕ_{j,s}(ξ^+, ξ^−) = ∫_∞ −∞ dv exp [ i(p^+ξ^−e^{−v} + p^−ξ^+ e^v) + ivj − vs ] (26)

with Qℓ_sj ∈ Z. From the expression (26), it follows that the momentum in the σ direction is j + is. In particular, the solutions are not periodic for any non-zero spin.

To gain some intuition for this phenomenon, let us consider the case of a gauge field, which has spin components s = ±1. The gauge field can be written as

A = A_+dξ^+ + A_−dξ^− . (27)

According to (5), A will only be boost invariant if A_±(e^{2πQℓs} ξ^+, e^{−2πQℓs} ξ^− ) = e^{∓2πQℓs} A_±(ξ^+, ξ^− ). (28)

Therefore, the components A_± satisfy (25) with s = ∓1. The reason that the components A_± do not have integer σ-momenta is that they are components in a basis (dξ^+, dξ^− ) that is not invariant under (5).

From this discussion, it is clear what we should do if we want to work with periodic gauge potentials: expand A in a basis of invariant differential forms. For instance, we can write A = Ã_+dx^+ + Ã_−dx^−. (29) Indeed, one immediately checks that Ã_± = ∂ξ^± ∂x^± A_± = √ 2Qξ^±A_± (30)

satisfies Ã_±(e^{2πQℓ}s ξ^+, e^{−2πQℓ}s ξ^− ) = Ã_±(ξ^+, ξ^− ). (31)

The components A_± are those of a gauge field in Minkowski space (4). In the gauge ∂^μA_μ = 0, they satisfy the wave equation ∂^2 ∂ξ^+∂ξ^− A_± = 0, (32)

which is indeed solved by (26) with p^+p^− = 0. From (30), we find that Ã_± satisfy a different wave equation, namely ∂^2 ∂x^+∂x^− Ã_± − √ 2Q ∂ ∂x^∓ Ã_± = 0. (33)

In order to discuss fermions, we introduce a vielbein e^a_μ, such that η_{ab}e^a_μe^b_ν = g_{μν} , where μ label coordinates X^μ. A choice of vielbein corresponds to a choice of basis of one-forms

e^a = e^a_μdX^μ. (34)

The kinetic term of a Dirac fermion is given by S = ∫ d^2X √ g [iψ̄^αγ^μ_{αβ}D_μψ^β], (35)

where γ^μ_{αβ} = e^μ_αγ^a_{αβ}. (36) In two-dimensional Minkowski space (4), a natural choice of vielbein is

e^± = dξ^±. (37)

The identification (5) acts on this basis as a non-trivial Lorentz transformation: e^± → e^{±2πQℓs} e^±. (38) This Lorentz transformation also acts on the gamma matrices and thus on the spinor indices α, β of the fermions:

ψ → exp(πQℓ_sγ^{01})ψ, (39) where we can choose a representation where γ^{01} = diag(1, −1). This implies that the fermions are not periodic in the σ coordinate. The frame defined by (4) and (37) has the advantage that the determinant of the metric is constant and that the spin connection (hidden in D_μ) vanishes, so that the fermions satisfy a standard wave equation ∂^2 ∂ξ^+∂ξ^− ψ = 0, (40)

which is solved by (26) with p^+p^− = 0.

Alternatively, we can work with the x^± coordinates, in terms of which the metric is given by (10), and choose the vielbein given by

ẽ^± = e^{Q(x++x− )/√2}dx^±, (41)

which is invariant under the identification. If we define spinor indices using the Lorentz frame determined by this vielbein, the corresponding spinors will be periodic in σ.

Indeed, in terms of the coordinates x^±, the vielbein (37) reads e^± = e^{√2Qx±} dx^±, (42) from which one obtains the new vielbein (41) by a Lorentz transformation that multiplies e^± by exp(∓Qσ). Therefore, the new fermions ψ̃ are obtained from the old ones ψ by the same Lorentz transformation: ψ̃ = exp ( − Qσγ^{01} 2 ) ψ. (43)

¿From (39), we see indeed that the new fermions ψ̃ are periodic in σ.

Using the vielbein (37), the spin connection is zero. The new vielbein (41) does have a non-trivial spin connection,

ω_{+−} = Q √ 2 (dx^+ − dx^−) = Qdσ, (44)

which will appear in the Dirac equation for ψ̃. This Dirac equation can also be derived from the standard Dirac equation for ψ by substituting (43).

3 The Leading Quantum Mechanical Effects

3.1 Some comments on effective actions

Matrix string theory [31–33] compactified on Milne space is described by the action [2] S = 1 2πℓ^2_s ∫ tr (1 2 (D_μX^i)^2 + ψ̄ /D ψ + g^2_s ℓ^4_s π^2F^2_{μν} − 1 4π^2g^2_s ℓ^4_s

[X^i, X^j ]^2 + 1 2πg_sℓ^2_s ψ̄γ_i[X^i, ψ] ) (45)

where g_s = e^{−Qτ} and the coordinate σ takes values 0 ≤ σ ≤ 2πℓ_s. We are using the simpler relation g_s = e^{−Qτ} rather than the exact relation with the space-time parameters, g_s = e^− √ 2πℓsQτ R , found in [2]. This amounts to a redefinition of Q which helps reduce notational clutter. However, if one is interested in the large N limit or the R dependence of the potential then the following replacement Q → √ 2πℓ_sQ R (46)

should be made in all subsequent formulae.

Because of the explicit time-dependence, world-sheet energy is not conserved. In particular, an excitation with fixed energy E is weakly coupled at early times (τ → −∞) since the dimensionful Yang-Mills coupling

g_{Y M} = 1 g_sℓ_s (47)

is becoming small. At late times, the theory is strongly coupled and we expect the Yang- Mills theory to flow to type IIA light-cone string field theory in the light-like linear dilaton background.

In this very late time regime, we have no perturbative control over the theory. However at early times, we can employ perturbation theory to describe the leading quantum mechanical effects. First we note that a vacuum solution is still described by choosing a constant matrix configuration in the Cartan of the gauge group. To determine whether there is a potential at 1-loop, we consider quadratic fluctuations around this vacuum solution.

Before turning to this computation, it is worth pointing out some subtleties with effective actions in time-dependent backgrounds. The usual procedure involves integrating out massive degrees of freedom. This results in either a 1PI or Wilsonian effective action for the residual light degrees of freedom, depending on the integration technique. However, in a time-dependent background like the Milne orbifold, the Wilsonian procedure always breaks down at sufficiently early times.

To see this, note from (45) that the mass of the W-bosons is time-dependent: in terms of the SO(8)-invariant distance b between two eigenvalues of X^i,

m^2_W ∼ e^{2Qτ} b^2. (48)

The mass thus vanishes as τ → −∞. Therefore the Wilsonian procedure of integrating out modes with energies above a fixed cut-off Λ results in an abelian effective action only for times such that m_W > Λ. The characteristic break down time is given by

τ_{non−abelian} ∼ 1 Q ln(Λ/b). (49)

For times earlier than τ_{non−abelian}, the complete non-abelian action should be employed.

There is a second characteristic time in this system. Namely, the time at which Yang- Mills perturbation theory breaks down. This occurs roughly when g_{Y M} /b ∼ 1 where loops of W-bosons become strongly coupled. This gives a characteristic time τ_{string} ∼ 1 Q ln(ℓ_sb). (50)

At this time, we transition from a Yang-Mills description to a perturbative string description. The perturbative string theory should correspond to the light-cone quantized type IIA string in the light-like linear dilaton background. This string theory becomes more weakly coupled as τ → ∞.

3.2 The effective action in a loop expansion

Because of the difficulty in defining a Wilsonian effective action, we will consider the 1PI effective action in a loop expansion. To clarify the expansion parameters, let us rescale the fields in (45) as follows:

X^i → ℓ^2_s X^i, ψ → ℓ^2_s ψ, A_μ → A_μ. (51)

After this rescaling, the scalars have mass dimension [X^i] = 1 along with the gauge-fields, while the fermions have mass dimension [ψ] = 3/2.

The rescaled action is given by S = ℓ^2_s 2π ∫ tr (1 2 (D_μX^i)^2 + ψ̄ /D ψ + e^{−2Qτ} π^2F^2_{μν} − 1 4π^2 e^{2Qτ} [X^i, X^j ]^2

+ 1 2π e^{Qτ}ψ̄γ_i[X^i, ψ] ) . (52)

There are only two dimensionful parameters in this theory. We identify ℏ with 1/ℓ^2_s . This parameter controls the strength of quantum corrections and defines our loop expansion. The second parameter is Q. The value of Q has no invariant physical meaning [2]: either Q is zero or it is non-zero. If Q is zero, we are back to conventional Matrix string theory on a cylinder with a conventional effective action.

Around the vacuum discussed in the previous subsection, we have a collection of massless particles corresponding to excitations along the Cartan directions and a collection of particles with time-dependent masses. We would like to integrate out these “massive” particles to obtain effective dynamics for the massless degrees of freedom. This is potentially problematic because the time-dependent masses vanish as τ → −∞. Usually, integrating out a massless particle results in a non-local 1PI effective action. This basically comes about because the wave equation for a massless particle is gapless so the corresponding propagator has no analytic expansion in powers of the momentum. To construct the effective action, we usually make use of the expansion 1 m^2 + Δ = 1 m^2 ( 1 − Δ m^2 + . . . ) (53)

to obtain a local action. We need to first check whether our particles with time-dependent masses will give rise to the same problems as conventional massless particles.

The off-diagonal scalar fields have action S = ℓ^2_s 2π ∫ dτ dσ ( Ẋ^2 − X^{′2} − b^2e^{2Qτ} X^2 ) . (54)

The equation of motion is that of a free scalar with time-dependent mass. The σ momentum is quantized in units of 1/ℓ_s . For modes with non-zero σ momentum, we have a conventional mass term and no problem in defining the effective action. So let us consider the case with zero σ momentum. We want to study the Green’s function for a particle satisfying ( ∂^2_τ + b^2e^{2Qτ} ) G(τ, τ^′) = δ(τ − τ^′). (55)

Note that we are not analytically continuing to Euclidean world-sheet time. The exact propagator for (55) can be constructed by patching together linear combinations of the two homogeneous solutions to the equation. These two solutions are given by the Bessel functions J_0(y) and Y_0(y) where y = b Q e^{Qτ} . (56)

For large y or late times, these solutions have good asymptotic behavior

J_0(y) ∼ √ 2 πy cos ( y − π 4 ) , Y_0(y) ∼ √ 2 πy sin ( y − π 4 ) . (57) This is the behavior we expect for a very massive particle with mass increasing exponentially with time.

The regime which might be problematic for constructing the 1PI effective action is when b is small, or equivalently, at early times. In this regime, it is easy to construct the propagator in a perturbative expansion around small b, ( ∂^2_τ + b^2e^{2Qτ} )_{−1} ∼ ∫ dω e^{iω(τ −τ ′)} −ω^2 + b^2e^{2Qτ} {1 + O(b)} , ∼ ( α_1e^{i(τ −τ ′)beQτ} + α_2e^{−i(τ −τ ′)beQτ} ) {1 + O(b)} . (58) The choice of (α_1, α_2) depend on the specific iϵ prescription, or equivalently, the specific choice of boundary conditions. The key point is that there appears to be no apparent problem with this propagator. At early times, we can still construct an analytic expansion in ω. Therefore, we should still be able to construct a 1PI effective action by integrating out particles satisfying (55).

The final method of studying quantum corrections makes this conclusion more transparent. Let us switch to (ξ^+, ξ^− ) coordinates defined in (6). These coordinates are natural for the orbifold description as discussed in section 2.3. In this frame, there is no explicit timedependence in the action. Instead of studying (55), we end up considering the standard wave-equation for a free massive particle but with an added invariance condition under the orbifold action. In this approach, the difference with flat space Matrix theory computations becomes clearer. All the non-trivial quantum effects come about because of spin-dependent modifications of the σ momentum quantization condition.

For example for a scalar particle in this frame, we consider the wave-equation ( 2 ∂^2 ∂ξ^+∂ξ^− + b^2 ) X = 0 (59)

with the invariance condition given in (25). In this frame, there is clearly no problem integrating out X.

3.3 The effective potential

In this section, we compute the effective potential for the light field b, corresponding to the difference between two eigenvalues. Path-integrating over a massive bosonic field X satisfying (59) with constant b gives a determinant

det^{(−1/2)} (H) = det^{(−1/2)} ( 2 ∂^2 ∂ξ^+∂ξ^− + b^2 ) . (60)

In Feynman diagram language, the determinant (60) is the sum of all vacuum diagrams, connected or disconnected. The potential term in the effective action is instead the sum of all one-particle-irreducible diagrams in the constant light-field background. At one-loop order, this corresponds to the logarithm − i ∫ V_{ef f} = log det^{−1/2}(H) = − 1 2 tr log(H). (61)

Let us denote the propagator for (59) by G(ξ, ξ^′ ; b^2). We can construct the heat kernel for this wave operator as follows: e^{tH} (ξ, ξ^′) = − ∮ dz 2πi e^{tz} G(ξ, ξ^′; b^2 − z), (62)

where the contour integral over z encloses the spectrum of H. We can then express the determinant in the form

det^{(−1/2)} (H) = exp ( 1 2 ∫ d^2ξ ∫ dt e^{−it(H−iϵ)} t (ξ, ξ) ) (63)

where an iϵ is inserted to ensure convergence at the large t end of the integral.

In the usual flat space maximally supersymmetric theory, a potential is forbidden by a non-renormalization theorem [34]. At the 1-loop level, this can be seen explicitly from a cancellation between boson and fermion contributions (see, for example, [35], for the quantum mechanics case). The count goes as follows: take gauge group SU(N) broken to U(1)^{(N −1)}. There are 8(N^2 − N) massive scalars, 8(N^2 − N) massive complex fermions. There are also (N^2 − N) massive W-bosons and a corresponding (N^2 − N) complex scalar ghost fields. In standard Matrix theory on a cylinder, the contributions to the potential from these particles cancel.

To see what happens in this case, let us compute the contribution from a massive spin-s particle. The fermion satisfies the usual massive wave equation (59) except momenta in the σ direction are given by j ± si, Qℓ_sj ∈ Z (64) for spin-s particles.

To complete the computation, we require the Green’s functions for these different particles. This requires a choice of vacuum state. There are two natural choices labeled the adiabatic vacuum and the conformal vacuum [1]. The adiabatic vacuum descends from the ambient 1 + 1-dimensional Minkowski space under the orbifold identification. We will construct our Green’s functions using this choice of vacuum.

The Green’s function for a spin-s particle is obtained by summing over images under the orbifold identification. It takes the form [24]

G_s(ξ, ξ^′; b^2) = ∑ n ∫ dp^+ dp^− (2π)^2 exp ( −ip^−(ξ^+ − e^{2πQℓsn}ξ^{+′} ) − ip^+(ξ^− − e^{−2πQℓsn}ξ^{−′} ) + 2πQℓ_sns ) −2p^+p^− + b^2 . (65) This gives a kernel e^{−itHs} (ξ, ξ) = ∑ n ∫ dp^+dp^− (2π)^2 exp ( − it [ b^2 − 2p^+ p^− ] (66) + [ −ip^−ξ^+(1 − e^{2πQℓsn}) − ip^+ξ^−(1 − e^{−2πQℓsn}) + 2πQℓ_sns ] )

= ∑ n 1 (2π)2t exp ( − itb^2 − i ξ^−ξ^+ 2t (1 − e^{2πQℓsn})(1 − e^{−2πQℓsn}) + 2πQℓ_sns )

= ∑ n 1 (2π)2t exp ( − itb^2 + 2i ξ^−ξ^+ t sinh^2(πQℓ_sn) + 2πQℓ_sns )

with some noteworthy features. If we restrict to n = 0, this kernel collapses to the usual one for a massive free-particle propagating along a closed loop over time t. This would give rise to the usual Coleman-Weinberg potential. The modification from the free-particle form comes strictly from the orbifold projection in (65) which introduces space-time dependence into the kernel.

This space-time dependence has a nice interpretation. The potential (63) based on the kernel (66) is essentially the Feynman propagator for a particle in 4 dimensions. In the absence of the ξ^−ξ^+ term, the usual UV divergences come about from the small t contribution to the integral. The presence of the ξ^−ξ^+ term regularizes the small t contribution. The interpretation is now in terms of a particle trying to propagate in a small time t a distance squared ξ^−ξ^+ which is exponentially large in τ . Such an amplitude is enormously suppressed as τ becomes large. On the other hand, the large t contribution to the integral is also suppressed by the mass term proportional to b^2.

The kernel (66) leads to the following potential term in the action: ∫ V_{ef f} (b) = i ∫ d^2ξ ∫ dt 2t ∑ helicities e^{−it(Hs−iϵ)}(ξ, ξ). (67) Since ghosts cancel the contributions of two scalars, each supersymmetry multiplet effectively contributes one s = 1, four s = 1/2, six s = 0, four s = −1/2 and one s = −1 states. Therefore, ∑ helicities (−1)^{2s} e^{2πQℓss} = ( e^{πQℓsn/2} − e^{−πQℓsn/2} )_4

= 16 sinh^4(πQℓ_sn/2). (68)

The potential term (67) thus reads ∫ d^2ξ ∞∑ n=−∞ ( 2i π ) sinh^4(πQℓ_sn/2) ∫_∞ 0 dt t^2 exp ( −itb^2 + i t 2 sinh^2(πQℓ_sn)ξ^+ξ^− ) . (69)

Analytically continuing the Schwinger parameter, t = −it^′, this becomes − ∫ d^2ξ ∞∑ n=−∞ 2 π sinh^4(πQℓ_sn/2) ∫_∞ 0 dt^′ (t^′)^2 exp ( −t^′b^2 − 1 t^′ 2 sinh^2(πQℓ_sn)ξ^+ ξ^− ) (70)

= − ∫ d^2ξ ∞∑ n=−∞ 2 π b sinh^4(πQℓ_sn/2) [2 sinh^2(πQℓ_sn) ξ^+ ξ^−]^{1/2}

K_1 (√ 8b^2 sinh^2(πQℓ_sn)ξ^+ξ^− ) , (71)

where K_1 is a modified Bessel function, with asymptotic behavior

K_1(z) ≈ 1 √ z e^{−z} (z ≫ 1); (72)

K_1(z) ≈ 1 z (z ≪ 1). (73)

The late time potential: For very large times of order τ_{string} defined in (50), our perturbative approximation breaks down. However, we can still ask how our 1-loop potential behaves in this late time regime. To obtain the very late time behavior, we use the asymptotic behavior (72) to write (71) as ∫ V_{ef f} ≈ − ∫ d^2ξ

2^{3/4}b^{1/2} sinh^4(πQℓ_s/2) π(ξ^+ξ^− )^{3/4} sinh^{3/2} |πQℓ_s| exp ( − √ 8b^2 sinh^2(πQℓ_s)ξ^+ξ^− ) , (74)

the dominant contribution coming from n = ±1. This is hugely suppressed at late times. There is an intuitive way to understand this phenomenon. The extent to which supersymmetry is broken is controlled by the size of the σ circle. At τ → ∞, the circle becomes large and supersymmetry is effectively restored.

While there was no a priori reason for us to see the potential vanish at late times at just 1-loop, it is a result in perfect agreement with the claim that at late times, this theory flows to string field theory in the light-like linear dilaton background [2]. In such a theory, there is no perturbative potential. However, if we express (74) in terms of the perturbative string coupling g_s = e^{−Qτ} , ∫ √ g V_{ef f} (b) ∼ ∫ dσdτ √ b g_s exp ( − Cb g_s ) (75)

with constant C, we see that there is a non-perturbative potential that appears to be generated by D-branes. If higher loop corrections to the potential are more suppressed then we might hope to compute this potential directly in string theory.

The early time potential: We have seen that the summand in (71) decreases quickly as a function of n when the argument of the modified Bessel function is larger than one. However, at early times, b^2ξ^+ξ^− ≪ 1, the argument is smaller than one for a range of values of n, so we should use the asymptotic behavior (73). We find ∫ V_{ef f} ≈ − ∫ d^2ξ ∑ n 2 π b sinh^4(πQℓ_sn/2) [2 sinh^2(πQℓ_sn)ξ^+ξ^−]^{1/2} 1 √ 8b^2 sinh^2(πQℓ_sn)ξ^+ξ^−

(76)

= − ∫ d^2ξ 1 8πξ^+ξ^− ∑ n tanh^2(πQℓ_sn/2) ≈ ∫ d^2ξ 1 8π^2Qℓ_sξ^+ξ^− log(2b^2ξ^+ξ^− ),

where the sum was taken over those values of n for which the argument of the modified Bessel function is smaller than 1. At early times, we thus find an attractive one-loop potential between two eigenvalues.

Finally, it would be interesting to extend this computation in at least three directions. The first is to extend the computation to higher loops along the lines of [35]. This is important in order to understand whether higher loop effects are more suppressed at late times despite the strong coupling. The form of the potential (75) suggests that this might be the case with higher loops corresponding to multi-D-brane contributions.

The second is to go beyond the static potential to moving configurations à la [36]. If this static potential is any guide, the structure of the velocity expansion even at order v^2 should be quite fascinating, and will perhaps shed more light on the gluon phase that replaces the cosmological singularity.

The third natural direction is to consider the light-like linear dilaton in type IIB string theory using type IIB Matrix theory [33, 37]. The potential in this case is likely to have a very different interpretation because of S-duality in space-time. The computation will also be quite different because of possible gauge theory instanton corrections. We might hope that techniques like those used in [38] could be generalized to obtain an exact answer.

Acknowledgements

It is our pleasure to thank Emil Martinec and Daniel Robbins for helpful conversations. The work of B. C. is supported in part by Stichting FOM, by the Belgian Federal Science Policy Office through the Interuniversity Attraction Pole P5/27, by the European Commission FP6 RTN programme MRTN-CT-2004-005104 and by the “FWO-Vlaanderen” through project G.0428.06. The work of A. R. is supported in part by NSF Grant No. PHY-0354993. The work of S. S. is supported in part by NSF CAREER Grant No. PHY-0094328 and by NSF Grant No. PHY-0401814.

References

[1] N. D. Birrell and P. C. W. Davies, “Quantum Fields in Curved Space,”. Cambridge, Uk: Univ. Pr. ( 1982) 340p.

[2] B. Craps, S. Sethi, and E. P. Verlinde, “A matrix big bang,” JHEP 10 (2005) 005,

hep-th/0506180.

[3] T. Banks, W. Fischler, S. H. Shenker, and L. Susskind, “M theory as a matrix model:

A conjecture,” Phys. Rev. D55 (1997) 5112–5128, hep-th/9610043.

[4] A. Hashimoto and S. Sethi, “Holography and string dynamics in time-dependent backgrounds,” Phys. Rev. Lett. 89 (2002) 261601, hep-th/0208126; J. Simon, “Null orbifolds in AdS, time dependence and holography,” JHEP 10 (2002) 036, hep-th/0208165; M. Alishahiha and S. Parvizi, “Branes in time-dependent backgrounds and AdS/CFT correspondence,” JHEP 10 (2002) 047,

hep-th/0208187; R. G. Cai, J. X. Lu and N. Ohta, “NCOS and D-branes in time-dependent backgrounds,” Phys. Lett. B 551, 178 (2003) [arXiv:hep-th/0210206]; B. L. Cerchiai, “The Seiberg-Witten map for a time-dependent background,” JHEP 0306, 056 (2003) [arXiv:hep-th/0304030]; D. Robbins and S. Sethi, “The UV/IR interplay in theories with space-time varying non-commutativity,” JHEP 0307, 034 (2003) [arXiv:hep-th/0306193]. K. Dasgupta, G. Rajesh, D. Robbins and S. Sethi, “Time-dependent warping, fluxes, and NCYM,” JHEP 0303, 041 (2003) [arXiv:hep-th/0302049]; A. Hashimoto and K. Thomas, “Dualities, twists, and gauge theories with non-constant non-commutativity,” JHEP 01 (2005) 033, hep-th/0410123; T. Hertog and G. T. Horowitz, “Towards a big crunch dual,” JHEP 07 (2004) 073, hep-th/0406134; T. Hertog and G. T. Horowitz, “Holographic description of AdS cosmologies,” JHEP 04 (2005) 005, hep-th/0503071; V. E. Hubeny, M. Rangamani, and S. F. Ross, “Causal structures and holography,” hep-th/0504034.

[5] M. Li, “A class of cosmological matrix models,” hep-th/0506260.

[6] M. Li and W. Song, “Shock waves and cosmological matrix models,”

hep-th/0507185.

[7] S. Kawai, E. Keski-Vakkuri, R. G. Leigh, and S. Nowling, “Brane decay from the origin of time,” hep-th/0507163.

[8] Y. Hikida, R. R. Nayak, and K. L. Panigrahi, “D-branes in a big bang / big crunch universe: Misner space,” hep-th/0508003.

[9] S. R. Das and J. Michelson, “pp wave big bangs: Matrix strings and shrinking fuzzy spheres,” hep-th/0508068.

[10] B. Chen, “The time-dependent supersymmetric configurations in M- theory and matrix models,” hep-th/0508191.

[11] J.-H. She, “A matrix model for Misner universe,” hep-th/0509067.

[12] B. Chen, Y.-l. He, and P. Zhang, “Exactly solvable model of superstring in plane-wave background with linear null dilaton,” hep-th/0509113.

[13] T. Ishino, H. Kodama, and N. Ohta, “Time-dependent Solutions with Null Killing Spinor in M- theory and Superstrings,” hep-th/0509173.

[14] Y. Hikida and T.-S. Tai, “D-instantons and closed string tachyons in Misner space,”

hep-th/0510129.

[15] D. Robbins and S. Sethi, “A matrix model for the null-brane,” hep-th/0509204. [16] E. Silverstein, “Dimensional mutation and spacelike singularities,” hep-th/0510044. [17] J.-H. She, “Winding String Condensation and Noncommutative Deformation of Spacelike Singularity,” hep-th/0512299.

[18] L. Cornalba and M. S. Costa, “A new cosmological scenario in string theory,” Phys.

Rev. D 66, (2002) 066001, hep-th/0203031.

[19] N. A. Nekrasov, “Milne universe, tachyons, and quantum group,” Surveys High Energ. Phys. 17, (2002) 115, hep-th/0203112.

[20] B. Craps, D. Kutasov, and G. Rajesh, “String propagation in the presence of cosmological singularities,” JHEP 06 (2002) 053, hep-th/0205101.

[21] M. Berkooz, B. Craps, D. Kutasov, and G. Rajesh, “Comments on cosmological singularities in string theory,” JHEP 03 (2003) 031, hep-th/0212215.

[22] B. Pioline and M. Berkooz, “Strings in an electric field, and the Milne universe,” JCAP 0311 (2003) 007, hep-th/0307280.

[23] B. Craps and B. A. Ovrut, “Global fluctuation spectra in big crunch / big bang string vacua,” Phys. Rev. D 69, (2004) 066001, hep-th/0308057.

[24] M. Berkooz, B. Pioline, and M. Rozali, “Closed strings in Misner space,” JCAP 0408 (2004) 004, hep-th/0405126.

[25] M. Berkooz, B. Durin, B. Pioline, and D. Reichmann, “Closed strings in Misner space: Stringy fuzziness with a twist,” JCAP 0410 (2004) 002, hep-th/0407216;

[26] T. Banks and L. Motl, “A nonsupersymmetric matrix orbifold,” JHEP 03 (2000) 027, hep-th/9910164.

[27] M. Li and W. Song, “A One Loop Problem of the Matrix Big Bang Model,”

hep-th/0512335.

[28] D. Marolf, L. Martucci, and P. J. Silva, “Actions and fermionic symmetries for D-branes in bosonic backgrounds,” JHEP 07 (2003) 019, hep-th/0306066.

[29] D. Marolf, L. Martucci, and P. J. Silva, “The explicit form of the effective action for F1 and D- branes,” Class. Quant. Grav. 21 (2004) S1385–S1390, hep-th/0404197.

[30] L. Martucci, J. Rosseel, D. Van den Bleeken, and A. Van Proeyen, “Dirac actions for D-branes on backgrounds with fluxes,” Class. Quant. Grav. 22 (2005) 2745–2764,

hep-th/0504041.

[31] R. Dijkgraaf, E. Verlinde, and H. Verlinde, “Matrix string theory,” Nucl. Phys. B500 (1997) 43–61, hep-th/9703030.

[32] L. Motl, “Proposals on nonperturbative superstring interactions,” hep-th/9701025.

[33] T. Banks and N. Seiberg, “Strings from matrices,” Nucl. Phys. B497 (1997) 41–55,

hep-th/9702187.

[34] S. Paban, S. Sethi, and M. Stern, “Constraints from extended supersymmetry in quantum mechanics,” Nucl. Phys. B534 (1998) 137–154, hep-th/9805018; S. Paban, S. Sethi, and M. Stern, “Supersymmetry and higher derivative terms in the effective action of Yang-Mills theories,” JHEP 06 (1998) 012, hep-th/9806028.

[35] K. Becker and M. Becker, “A two-loop test of M(atrix) theory,” Nucl. Phys. B506 (1997) 48–60, hep-th/9705091.

[36] M. R. Douglas, D. Kabat, P. Pouliot, and S. H. Shenker, “D-branes and short distances in string theory,” Nucl. Phys. B485 (1997) 85–127, hep-th/9608024.

[37] S. Sethi and L. Susskind, “Rotational invariance in the M(atrix) formulation of type IIB theory,” Phys. Lett. B400 (1997) 265–268, hep-th/9702101.

[38] S. Paban, S. Sethi and M. Stern, “Summing up instantons in three-dimensional Yang-Mills theories,” Adv. Theor. Math. Phys. 3, (1999) 343, hep-th/9808119.