arXiv:0906.3837v1 [hep-th] 20 Jun 2009

One-loop corrections to the photon propagator in the curved-space QED

Bruno Gonçalves^1 , Guilherme de Berredo-Peixoto^2 , Ilya L. Shapiro^3

Departamento de Física, ICE, Universidade Federal de Juiz de Fora Juiz de Fora, CEP: 36036-330, MG, Brazil

Abstract. We calculate and discuss the one-loop corrections to the photon sector of QED interacting to a background gravitational field. At high energies the fermion field can be taken as massless and the quantum terms can be obtained by integrating conformal anomaly. We present a covariant local expression for the corresponding effective action, similar to the one obtained earlier for the gravitational sector. At the moderate energies the quantum terms can be obtained through the heat kernel method. In this way we derive the exact one-loop β-function for the electric charge in the momentum subtraction scheme and explore both massless and large mass limits. The relation between the two approaches is shown and the difference discussed in view of the possible applications to cosmology and astrophysics.

Keywords: Photon propagation, QED, formfactors, beta functions, conformal anomaly.

PACS: 04.62.+v, 11.15.Kc, 11.10.Hi, 12.20.-m.

1 Introduction

The interaction of electromagnetic field with gravity is an important subject due to various astrophysical and cosmological applications. There are many publications on the subject and, in particular, many interesting works devoted to the quantum corrections in the electromagnetic sector of the theory. In the early publications [1, 2], direct calculations were performed through the Feynman diagrams and Schwinger source method and later on, starting from [3], by using different modifications of the heat kernel approach [4, 5, 6, 7]. The diagrams were also used in the traditional style calculations [8, 9] in flat space-time and using a modified approach admitting a generalization to the curved space-time [10]. A general consideration, including one and two-loop calculations and taking into account the temperature effects, has been given in [11].

On of the most important features of quantum corrections to the action of electromagnetic field is that they break the conformal invariance which the theory possesses at the classical level. Let us start by presenting a short list of the cosmological and astrophysical situations where

1E-mail address: brunoxgoncalves@yahoo.com.br 2E-mail address: guilherme@fisica.ufjf.br 3Also at Tomsk State Pedagogical University, Tomsk, Russia. E-mail address: shapiro@fisica.ufjf.br

the violation of conformal symmetry can be relevant. 1) The breaking of conformal symmetry changes the equation of state of the radiation, that can be relevant in the radiation-dominated epoch in the early Universe. The modified equation of state for the radiation enables one to construct interesting cosmological models (see, e.g., [12] and references therein), including the ones [13] based on the quantum corrections of [3]. The modified equation of state can produce the change in the law of expansion of the Universe, entropy production and other phenomena. Also, this effect can slightly affect the red-shift dependence of both energy density of radiation and CMB temperature. Due to the growing precision of astrophysical experiments, at some point this feature of quantum corrections can be relevant. 2) As a particular aspect of the previous point, due to the broken conformal symmetry the rate of creation of the photons in the reheating period after inflation may be affected by quantum corrections, leading to the potentially observable consequences. 3) The violation of conformal symmetry is needed for the creation of initial seeds of magnetic field of the galaxies, at the epoch of structure formation [14]. There is a well known attempt to explain this violation by quantum effects similar to conformal anomaly [15], during the inflationary epoch (see also [16]). It would be rather interesting to have a more complete understanding of the field theoretical mechanisms behind such violation, including the ones which can occur at much later epochs. The problem was further discussed, e.g., in [17, 18], one can also see [19] and [20] for the recent reviews of the possible origin of the initial seeds of cosmic magnetic fields and related subjects. 4) Furthermore, the quantum corrections to the photon propagator can modify the position of the pole and hence produce the situation when the electromagnetic wave propagates with the velocity which is slightly different from the one in the purely classical case. Similar effect can take place in curved space and is sometimes characterized as a superluminal motion [21, 22] (see [23] for the recent review). In particular, this effect may have a significant impact on the behavior of light in the vicinity of the black hole [24, 25, 26]. Indeed, similar effect may also take place due to the presence of the boundaries and, in general, because of the macroscopic conditions [27]. Let us remark that the light propagation can be affected also by the nonlinear terms [28] which can result from the quantum corrections and by the classical and/or quantum interactions to external gravity [29]. It is obvious that the conformal symmetry forbids most of the possible changes in the wave equations and therefore the detailed study of the conformal symmetry breaking is relevant for this issue too.

If thinking about conformal symmetry, the first remarkable observation is that in the realistic theories such as QED or Standard Model (SM), and also in its generalizations such as supersymmetric Standard Model or GUTs, the massless and conformal invariant electromagnetic field couples to the other fields, which are all massive and therefore conformally non-invariant. In the present paper we shall concentrate on the simplest case of QED and try to present the most general view of the violation of conformal symmetry within this theory. However, there is no qualitative difference other mentioned theories, which can be also considered elsewhere.

One can formulate the two main questions:

1) What is the mechanism of violation of the local conformal symmetry in the intermediate energies and how one can link its violations at the UV and IR limit. Is it possible to derive such relation? This is not a purely technical question, because during its evolution the Universe is passing different phases and it is desirable to know how the conformal symmetry is violated not only at the inflation epoch or at the present epoch, but also around the recombination epoch or at the time period when the cosmic structure starts to form. The main purpose of the present paper is to explore this issue.

2) To which extent the finite quantum corrections and, in particular, the violation of local conformal symmetry, are universal? In other words, do we have some ambiguity in the quantum terms? Answering the last question is of course very significant, because the effective action, in general, is not a uniquely defined object. Usually, it depends on the choice of parameterization of quantum fields, in particular on the gauge fixing choice, on the calculational schemes, regularization, renormalization, etc.

Our purpose is to derive the most general expression for the one-loop quantum correction to the electromagnetic sector of QED in curved space-time. As we have already mentioned above, the physical situations for such quantum corrections in the early universe and at the later period are very different. In the first case the fermions can be treated as almost massless. In this case the mechanism for the violation of conformal symmetry is the well known conformal anomaly. The advantage of conformal anomaly as a method of deriving quantum corrections to the classical effects is its simplicity, direct relation to the UV divergencies and consequent universality. At the opposite end of the energy scale the masses of the virtual fermions are much greater than the energies of the real photons or, equivalently, the energies of the external tails in the loops of massive fermions. In this case we observe the decoupling of the quantum contributions of the massive fields, according to the Appelquist and Carazzone theorem [30]. The violation of conformal symmetry still exists, but it is related to the remnant higher derivative terms in the effective action, which are quadratically suppressed by the fermion masses. Also, in curved space-time, there may be curvature-dependent terms which can break down the local conformal symmetry. Since we intend to study the curved-space theory, we will always concentrate our attention on the local conformal symmetry.

The paper is organized as follows. In the next section we consider the simplified version of QED with a massless fermion and obtain the noncovariant and also nonlocal covariant forms of the anomaly induced effective action. Some part of this section was previously known, but we present these results for the sake of completeness, and also establish the most general local representation for the covariant expression. In section 3 we start to consider massive case and calculate the first three coefficients of the Schwinger-DeWitt expansion in an arbitrary space-time dimension D. Despite the focus of our interest is mainly on the 4D case, it proves useful to have a more general D-dimensional result. The calculations are performed in two different schemes, such that we can try the limits of universality of the quantum corrections. The scheme dependence of the one-loop effective action is explored in a parallel paper [31]. In section 4 we use the heat-kernel method to calculate the complete one-loop formfactors for the electromagnetic field sector. In the same section we consider the UV limit and establish the relation of the massless limit for the one-loop corrections for the massive case with the ones derived via conformal anomaly. In section 5 we consider the renormalization group equations for the massive case and derive different forms of the low-energy decoupling law corresponding to the distinct calculational schemes. In section 6 we analyze the corresponding running of the effective charge and compare it to the one in the minimal-subtraction renormalization scheme. Finally, in the last section we present some discussions and draw our conclusions.

2 Anomaly-induced action for the metric and electromagnetic fields background

Let us start from a brief survey of massless conformal QED. The theory should be formulated in curved space-time and hence the action depends on the electromagnetic potential A_μ, Dirac spinor field ψ and on the external metric g_{μν} . As far as we are interested in the local conformal symmetry, one of the useful parameterizations of the metric is

g_{μν} = ḡ_{μν} · e^{2σ} , σ = σ(x) , (1)

where ḡ_{μν} is the fiducial metric with fixed determinant. For example, in the case of the cosmological metric, using spherical coordinates, we have

ḡ_{μν} = diag ( 1, − 1 1 − kr^2 , −r^2 sin^2 θ, −r^2 ) . Separating σ(x) in (1) proves to be a useful tool, especially because of the relation − 2 √ g g_{μν} δ A[g_{μν} ] δ g_{μν} = − 1 √ ḡ e^{−4σ} δ A[ḡ_{μν} e^{2σ} ] δσ | | ḡ_{μν} →g_{μν} ,σ→0 , (2)

which is valid for any functional A[g_{μν} ] of the metric and maybe other fields. If we replace the action of some theory in curved space at the place of A[g_{μν} ], then the l.h.s. of the above relation is nothing else but the trace of the corresponding Energy-Momentum tensor, T^μ_μ . In order to remove the effect of other fields variables, it is sufficient to use the corresponding equations of motion.

The vanishing trace of the Energy-Momentum tensor implies that the conformal factor of the metric decouples from the matter. However, the situation changes dramatically if we take quantum effects onto account. In the last case the corresponding theoretical phenomenon is called the trace anomaly [32] (see also [33, 34] for review and many further references).

The classical action of electromagnetic field is S_{em} = − 1 4 ∫ d^4x √ g F_{μν} F^{μν} (3)

and possesses local conformal invariance. The last means this action does not change under simultaneous transformation of the metric and of the vector A_μ, namely

g_{μν} → g^′_{μν} = g_{μν} e^{2σ} , A_μ → A^′_μ = A_μ . (4)

Let us note that the difference between conformal weight and dimension for the vector field is due to the vector field definition in curved space-time,

A_μ = A_b e^b_μ , e^b_μ e^a_ν η_{ab} = g_{μν} , e^b_μ e^a_ν g^{μν} = η^{ab} . (5)

We are interested in the corrections to the action (3) due to quantum effects of the fermion

S_f = i ∫ d^4x √ g {¯ ψ γ^μ ( ∇_μ − ieA_μ ) ψ − im ψ̄ ψ } . (6)

The conformal transformation rule for spinors are ψ → ψ^′ = ψ e^{−3σ/2} , ψ̄ → ψ̄^′ = ψ̄ e^{−3σ/2} . The metric is always transformed like in (4). Indeed the action (6) is conformal invariant only when the spinor mass is zero, m = 0. All those fermions which couple to electromagnetic field as in (6) are massive, however, the relevance of the mass terms depends on the energy scale. For instance, if we are interested in the quantum effects of fermions close to the inflationary epoch, the kinetic energy of the real fermions and (more important) of photons is much greater that the mass of the fermions. In this situation taking a massless spinor field is a legitimate approximation, so let us start from this case and take m = 0.

The derivation of conformal anomaly in the presence of background metric and electromagnetic field has been discussed before [32, 33], and we can use the known result. The conformal anomaly can be used to construct the equation for the finite part of the 1-loop correction to the effective action of the background metric and electromagnetic potential, 2 √ g g_{μν} δ Γ̄_{ind} δg_{μν} = T^μ_μ = 1 (4π)^2 ( wC^2 + bE + c□R + β̃F^2_{μν} ) , (7)

where C^2 = C^2_{μναβ} = R^2_{μναβ} − 2R^2_{αβ} + (1/3) R^2

is the square of the Weyl tensor and

E = R^2_{μναβ} − 4R^2_{αβ} + R^2

is the integrand of the Gauss-Bonnet topological term. The coefficients ω, b, c depend on the number of scalar N_s, fermion N_f and massless vector N_v fields as ω = 1 120 N_s + 1 20 N_f + 1 10 N_v , b = − 1 360 N_s − 11 360 N_f − 31 180 N_v , c = 1 180 N_s + 1 30 N_f − 1 10 N_v . (8)

Also, β̃ depends on the number of charged scalars (in case of scalar QED) and spinors. As far as the massless approximation can be applied in the very early universe, the number of fields which contribute to these coefficients is not necessary restricted by the QED framework.

The solution of the equation (7) is straightforward [35] (see also generalizations for the theory with torsion [36] and with a scalar field [37]). The simplest possibility is to parameterize metric as in (1), separating the conformal factor σ(x) and rewrite the eq. (7) using (2). The solution for the effective action is

Γ̄ = S_c[ḡ_{μν} , A_μ] + 1 (4π)^2 ∫ d^4x √ ḡ { ωσC̄^2 + β̃σF̄^2_{μν} + bσ(Ē − 2 3 ¯□R̄) + 2bσΔ̄_4σ − 1 12 (c + 2 3 b)[R̄ − 6( ¯∇σ)^2 − ( ¯□σ)]^2 } (9) where S_c[ḡ_{μν} , A_μ] = S_c[g_{μν} ] is an unknown conformal invariant functional of the metric and A_μ, which serves as an integration constant for the eq. (7). All quantities with bars are constructed using the metric ḡ_{μν} , in particular F̄^2_{μν} = F̄_{μν}F̄_{αβ}ḡ^{μα}ḡ^{βν} . Furthermore, Δ_4 is the fourth derivative conformally covariant operator acting on dimensionless scalar

Δ_4 = □^2 + 2R^{μν} ∇_μ∇_ν − 2 3 R□ + 1 3 R_{;μ} ∇^μ . (10)

The solution (9) has the merit of being simple, but an important disadvantage is that it is not covariant or, in other words, it is not expressed in terms of an original metric g_{μν} . In order to obtain the non-local covariant solution and after represent it in the local form using auxiliary fields, we shall follow [35, 38]. The presence of the F̄^2_{μν} terms does not require any essential changes compared to the consideration presented in [34], in particular this term can be always taken together with the C̄^2 one. So, we present just the final result in the non-local form, which is expressed in terms of the Green function G(x, y) of the operator (10), Δ_{4,x} G(x, y) = δ(x, y) . Using the last formulas and (2) we find, for any A(g_{μν} ) = A ( ḡ_{μν} e^{2σ} ) , the relation δ δσ(y) ∫ d^4x √ g(x) A ( E − 2 3 □R )| | g_{μν} = ḡ_{μν} = 4 √ ḡΔ̄_4 A = 4 √ gΔ_4 A . (11)

In particular, we obtain

Γ_{induced} = Γ_ω + Γ_b + Γ_c , (12)

where

Γ_ω = 1 4 ∫ d^4x √ g(x) ∫ d^4y √ −g(y) ( ωC^2 + β̃F^2_{μν} ) x G(x, y) ( E − 2 3 □R ) y , (13)

Γ_b = b 8 ∫ d^4x √ g(x) ∫ d^4y √ g(y) ( E − 2 3 □R ) x G(x, y) ( E − 2 3 □R ) y (14) and Γ_c = − c +^2_3 b 12(4π)^2 ∫ d^4x √ g(x) R^2(x) . (15)

The nonlocal expressions for the anomaly induced effective action can be presented in a local form using two auxiliary scalar fields φ and ψ [38]. Let us give just a final result which has an extra electromagnetic terms compared to the one described in [34]

Γ = S_c[g_{μν} , A_λ] −

3c + 2b 36(4π)^2 ∫ d^4x √ g(x) R^2(x) + ∫ d^4x √ g(x) {1 2 φΔ_4φ − 1 2 ψΔ_4ψ + φ [ √ −b 8π (E − 2 3 □R) − 1 8π √ −b ( aC^2 + β̃F^2_{μν} ) ]

+ 1 8π √ −b ψ ( aC^2 + β̃F^2_{μν} ) } . (16)

The local covariant form (16) is dynamically equivalent to the non-local covariant form (12). The complete definition of the Cauchy problem in the theory with the non-local action requires defining the boundary conditions for the Green functions G(x, y), which show up independently in the two terms (13) and (14). The same can be achieved, in the local version, by imposing the boundary conditions on the two auxiliary fields φ and ψ.

Let us separate the part of the effective action (16), which has direct relation to the electromagnetic terms and therefore represents a one-loop correction for the classical action (3),

Γ = S_c[g_{μν} , A_λ] + ∫ d^4x √ g(x) {√−b 8π φ ( E − 2 3 □R ) (17) + 1 2 ∫ d^4x √ g(x) [ φΔ_4φ − ψΔ_4ψ + 1 4π √ −b (ψ − φ) β̃F^2_{μν} ] . Let us note that the presence of the A_μ-independent term φ [ E − (2/3)□R ] is relevant, because only this term provides violation of local conformal symmetry in the whole expression. For instance, the connection with the noncovariant presentation (9) is through the relations √ ḡ Δ̄_4 = √ g Δ_4 and √ g ( E − 2 3 □R ) = √ ḡ ( Ē − 2 3 ¯□R̄ + 4Δ̄_4σ ) . (18)

Another important observation is that the anomalous metric dependence of the F^2_{μν} in eq. (17) appears due to the coupling of F^2_{μν} with the auxiliary scalars ψ and φ. This dependence is nontrivial because these two fields have different space-time behavior due to their distinct dynamical equations and independent initial and boundary conditions.

As an example of the use of the auxiliary fields ψ and φ, we mention that the different choices of their boundary conditions enable one to classify the vacuum states for the semiclassical black hole [39]. It would be interesting to explore the initial and boundary conditions for ψ and φ such that it could be applied, for example, for calculating the creation of the seeds of a magnetic field during inflation. However this issue requires (and deserves) a special detailed investigation which goes beyond the scope of the present paper.

3 Massive fermion case: Schwinger - DeWitt expansion

The results of the previous section can be seen as follows: in case of massless and conformal fields we can calculate an important (sometimes the most important) part of the one-loop effective action by using conformal anomaly. The qualitative explanation of this possibility is that the conformal anomaly is essentially controlled by the logarithmic divergences of the theory. And, from the other hand, the logarithmic divergences are intimately related to the UV behavior of the theory, or, better say, to its reaction to the scaling in the high energy region. In the massless theory there is no natural scale and, therefore, all kind of quantum processes can be actually seen as “high energy”. For this reason the UV divergences provide much more information on the finite part of effective action in the massless conformal case than they do for massive fields. The question is what we can do in this case.

The theory of a massive quantum field has the natural scale established by the mass. In this situation to notions of “high energy region” (UV) and “low energy region” (IR) assume some relations between the energy of the field and the mass of the quantum field. The quantum effects of massive fields are supposed to be close to the ones of the massless fields in the UV and follow the decoupling theorem [30] in the IR. In both cases the most relevant finite part of effective action is given by nonlocal expressions, but the structure of nonlocalities are rather different in the two cases. As far as we are interested in the photon propagation, all what we need is a formfactor of the electromagnetic term. We shall present this result, at the one-loop level, in the next section. In the present section we consider the local terms which correspond to the Schwinger-DeWitt expansion of the effective action in the massive case. The analysis of the coefficients of this expansion will prove useful for better understanding of the structure of the formfactors of our interest, moreover deriving these coefficients provides an efficient check of correctness of the consequent general calculations.

The one-loop effective action (EA) in the metric and electromagnetic sectors can be defined via the path integral e^{iΓ[gμν , Aμ]} = ∫ DψDψ̄ e^{iSQED} , (19) where

S_{QED} = S_f + S_{em} (20)

and the actions S_f , S_{em} are defined in (3) and (6). Since the action S_{QED} is bilinear in the spinor fields, we find (see, e.g., [40])

Γ̄^{(1)} = − 1 2 Ln Det Ĥ , (21)

where Ĥ = i(γ^μ∇_μ − im − ieγ^μA_μ) (22) is the bilinear form of the action (6). Here and below we assume but usually do not write explicitly the identity matrix ^1 in the space of Dirac spinors.

The derivation of (21) can be performed by several methods. Here we intend to use the heat kernel approach and the Schwinger-DeWitt technique. For this end we need to reduce the problem to the derivation of Ln Det Ô, where the operator O should have the form Ô = ^□ + 2ĥ^μ∇_μ + ^Π . (23)

An obvious way to achieve the desired form of the operator is to multiply Ĥ by an appropriate conjugate operator Ĥ^∗,

Ô = Ĥ · Ĥ^∗ (24)

and use the relation

Ln Det Ĥ = Ln Det Ô − Ln Det Ĥ^∗ . (25)

It is clear that one can obtain the desirable form of the product by simply choosing Ĥ^∗ = Ĥ. In this case we can obtain the result (21) by taking

Ln Det Ĥ = 1 2 Ln Det Ĥ^2 . (26)

At the same time there are many other possible choices. For instance, the calculations can be performed in the most simple and economic way if we chose the conjugated operator with the opposite sign of the mass term, Ĥ^∗_1 = − i (γ^μ∇_μ + im − ieγ^μA_μ) . (27) According to [41], the contributions of the two operators are identical,

Ln Det Ĥ = Ln Det Ĥ^∗_1 , (28)

such that we can still use the formula similar to (26),

Ln Det Ĥ = 1 2 Ln Det (^ HĤ^∗_1 ) . (29)

The expressions for the elements of the operator (23) in this case are rather simple, namely

ĥ^μ_1 = −ieA^μ , ^Π_1 = −1 4 R + m^2 − ie 2 γ^μγ^ν F_{μν} − ie (∇_μA^μ) − ie^2 A^μA_μ . (30)

Another possible choice of Ĥ^∗ is

Ĥ^∗_2 = − i (γ^μ∇_μ − im) . (31)

In this case we have to use the relation

Ln Det Ĥ = Ln Det (^ HĤ^∗_2 ) − Ln Det Ĥ^∗_2 . (32)

It is obvious that the contribution of Ĥ^∗_1 does not depend on A_μ, just because this operator does not depend on A_μ. Therefore, for evaluating the contribution of Ln Det Ĥ we can take the A_μ-dependent terms from the contribution of the product (^ HĤ^∗_1 ) with the coefficient one, while for the A_μ-independent terms the coefficient must be one-half.

It turns out that, despite the UV divergences derived within the two schemes, with Ĥ^∗_1 and with Ĥ^∗_2 , do coincide, there is an essential difference between the finite parts of the corresponding effective actions. The general discussion of this difference (called multiplicative anomaly, [42,

43]), is discussed in the parallel letter [31]. Let us present the technical part of the consideration, which are also relevant for our main targets, that is violation of conformal symmetry and, in general, quantum corrections.

The elements of the operator Ô for the case of the operator Ĥ^∗_2 have the form

ĥ^μ_2 = −ie 2 γ^ν γ^μA_ν , ^Π_2 = − 1 4 R + m^2 + eMγ^μA_μ . (33)

It proves useful to calculate the first Schwinger-DeWitt coefficients in an arbitrary space-time dimension d. For this end we will need the expressions for the operators ^P = ^Π + ^1 6 R − ∇_μĥ^μ − ĥ_μĥ^μ (34) and ^S_{μν} = ^R_{νμ} − ∇_μĥ_ν + ∇_νĥ_μ − ĥ_μĥ_ν + ĥ_νĥ_μ , (35)

where ^R_{μν} = ^1 [ ∇_μ, ∇_ν ] is the commutator of the two covariant derivatives acting on the corresponding fields. In our case of Dirac spinors space (see, e.g., [40]),

^R_{μν} ψ = [∇_μ , ∇_ν ] ψ = 1 4 R_{μνλτ} γ^λγ^τ ψ , γ^μγ^ν ∇_μ∇_ν = ^□ − ^1 4 R . (36)

It is important to remember that the formulas (34) and (35) do not depend on the dimension d, and the general expressions for the coincidence limits of the Schwinger-DeWitt coefficients does not depend on d either.

The expressions for ^P and ^S_{μν} for the two calculational schemes (with Ĥ^∗_1 and Ĥ^∗_2 , correspondingly) are as follows:

^P_1 = m^2 − 1 12 R − ie 2 γ^μγ^ν F_{μν} , (37) ^S_{1, μν} = − 1 4 γ^αγ^β R_{αβμν} + ie F_{μν} ; versus

P̂_2 = m^2 − 1 12 R − ie 4 γ^μγ^ν F_{μν} + emγ^μA_μ + ie 2 (∇^μA_μ) − e^2 (d − 2) 4 A^ν A_ν , (38)

Ŝ_{2, μν} = −1 4 γ^αγ^βR_{αβμν} + ie 2 γ^α (γ_ν ∇_μA_α − γ_μ∇_ν A_α) + e^2 4 γ_α (γ_μγ_βγ_ν − γ_ν γ_βγ_μ) A^αA^β .

The operators (37) and (38) enable one to calculate the coincidence limits of the first coefficients of the Schwinger-DeWitt expansion, by just using the known general expressions (see, e.g., [44, 45]).

Let us start from the first nontrivial coefficient. For the sake of simplicity we shall use the notation a_k = Tr lim_{x′→x} a_k(x, x^′) for the functional traces (including space-time integrations) of the coincidence limits. We know [44, 46] that for the operators of the form (23), the first coefficient is given by the expression

a_1 = sTr P̂ = − ∫ d^dx √ g tr P̂ , where the operators P̂ are given by the expressions (37) and (38). The symbol sTr means the functional trace, which is taken according for Grassmann parity of the corresponding functional matrices. Some pedagogical examples, including the operators with both bosonic and fermionic blocks can be found in [40]. For the general d-dimensional case we obtain the expressions

a_{1, 1} = − ∫ d^dx √ g ( 4m^2 − 1 3 R ) . (39) and a_{1, 2} = − ∫ d^dx √ g { 4m^2 − 1 3 R + 2ie (∇^μA_μ) − (d − 2) e^2 A^μA_μ } . (40)

The first expression (39) is independent on the electromagnetic potential and is, therefore, gauge invariant. However, the second expression is obviously different in both respects, in particular it becomes gauge invariant only in d = 2 case (in what follows we shall call it 2d, and exactly the same way for other dimensions, e.g. 4d means d = 4 etc).

How can we understand the difference between the results coming from the two calculational schemes, based on Ĥ^∗_1 and Ĥ^∗_2 conjugate operators? Let us note that the operation of introducing the conjugate operator (24) can be seen in two different ways.

First, we can see it as a change of the quantum variables in the path integral (19), that is taking ψ = Ĥ^∗χ, where χ is a new quantum variable. In this case we have to take into account the contribution of the functional Jacobian of such transformation. This Jacobian is in fact related to another path integral, similar to (19), namely, for the second case, ∫ DχDχ̄ exp { i ∫ d^dx √ g χ̄Ĥ^∗_2 χ } . (41)

This integral does not depend on the electromagnetic potential, but only on the metric, and hence it is gauge invariant. However, the result of the change of variables is quite different, for one meets another functional integral, ∫ DχDψ̄ exp { i ∫ d^dx √ g ψ̄ (^ H · Ĥ^∗_2 ) χ } . (42)

This integral does not possess gauge invariance and hence it is not a surprise that the result of the change of variables also does not possess it.

Another possible understanding of the operation (24) is through the well known relation

Ln Det (Ĥ^∗ · Ĥ^∗_2 ) = Ln Det Ĥ^∗ + Ln Det Ĥ^∗_2 . (43)

The two terms in the r.h.s. are gauge invariant due to the reasons explained above, namely the first term is a result of the gauge-invariant functional integration and the second term simply does not transform, just because it does not depend neither on A_μ neither on spinor field. Hence if we find the violation of gauge symmetry in the l.h.s. (as we actually did), this indicates the violation of the “identity” (43).

The relation similar to (43),

det (A · B) = det A · det B

can be easily proved for the finite-size square matrices A and B. However, the proof can not be generalized for the differential operators, which have an infinite-size matrix representations. In fact, some mathematicians and physicists were looking, for a long time, for an example when this relation does not hold [42, 43], by using the ζ-regularization technique [47]. The phenomenon of such possible violation has been called Multiplicative Anomaly. However, the results of the mentioned works met justified criticism [48, 49, 50] because it is in fact difficult to distinguish the effect from the usual renormalization ambiguity.

From the perspective of Multiplicative Anomaly we can observe, that the key relation (43) hold in 2d and only in 2d. However, this dimension is very special for the a_1, because in this particular dimension the coefficient a_1 defines the logarithmic divergence of the theory. At this point we conclude that, in the case under consideration, the relation (43) does hold for the logarithmically divergent part, but may be violated in the other sectors of the effective action. In a moment we shall see that this statement is also valid for the next two coefficients.

The general expression for the second Schwinger-DeWitt term (called also the “magic” coefficient) is

a_2 = sTr â_2(x, x) = sTr { ^1 180 (R^2_{μναβ} − R^2_{αβ} + □R) + 1 2 ^P^2 + 1 6 (□ ^P ) + 1 12 ^S^2_{μν} } . (44)

Direct calculations using the formula (44) and the expressions (37) and (38) yield the following results

a_{2, 1} = d 288 ∫ d^dx √ g ( 48e^2F_{μν} F^{μν} + R^2 − 24Rm^2 − 3R_{μναβ} R^{μναβ} + 144m^4 ) . (45)

for the first calculational scheme based on Ĥ^∗_1 and

a_{2, 2} = d 288 ∫ d^dx √ g { 24 d e^2(∇^μA^ν )(∇_μA_ν ) − 96 e^2(∇^μA^ν )(∇_ν A_μ) + R^2 − 24 Rm^2 − 3 R_{μναβ} R^{μναβ} + 144 m^4 + 12(d − 4)(R − 12m^2)A^μA_μ e^2 + 6(d − 2)(d − 4) A_μA^μA_ν A^ν e^4 } (46)

for an alternative calculational scheme based on Ĥ^∗_2 . It is easy to see that the two expressions for a_2 presented above follow the same pattern as the ones for a_1 which we considered earlier. Namely, the expression for a_{2, 1} is gauge invariant independent on the space-time dimension d and, in fact, its dependence on d is rather simple. On the contrary, a_{2, 2} manifest much more complicated dependence on d. This expression is gauge invariant only in 4d case, when it also coincides with a_{2, 1}. We know that this coincidence is because the a_2 defines the logarithmic divergences in 4d and only in 4d. So, we observe that the logarithmic divergences of the theory are scheme independent and that for the divergent sector of the theory, in dimensional regularization, the relation (43) actually takes place. At the same time, for any other dimension d ≠ 4, the two expressions are dramatically different. We can indicate two aspects of this difference. First, the a_{2, 2}(d ≠ 4) expression is not gauge invariant. This means the quantum contributions depend not only on the transverse part of A_μ, but also on the longitudinal part of this vector. Let us note that the a_{2, 1}(d ≠ 4) is perfectly gauge invariant and no longitudinal propagation takes place in this case.

Finally, as a final test of the difference between the two schemes of deriving the photon propagator, let us calculate the a_{3, 1} and a_{3, 2} coefficients. For this end we will need the general expression for the a_3 coefficient, which has been derived by Gilkey [51], and checked by Avramidy [52] who also derived a_4 coefficient. This general expression is rather bulky and we simply refer an interested reader, e.g., to the eq. (2.160) of [52]. One observation is in order. The result of [51, 52] correspond to the operator of the more simple form

Ô = ^□ + ^Π . (47)

if compared to our (23). However the way to generalize from (47) to (23) is already known for a long time from [45], where it was applied for the a_2 coefficient. One has to start by constructing the generalized covariant derivative acting in the fermionic space

D̂_μ = ^∇_μ + ĥ_μ .

It is easy to see that the operator (23) can be presented in the form (47) with the new derivative and, also, ^Π replaced by ^P . The last thing to do is to replace the commutator ^R_{μν} by ^S_{μν} , defined in (35). Then the Schwinger-DeWitt technique can be developed with the covariant derivative D_μ instead of ∇_μ, and eventually gives the result in terms of ^P , ^S_{μν} and curvature tensor.

Consider the most simple Ĥ^∗_1 -based calculational scheme. Using the original approach for the operator (47) we arrive at the already known result of Ref. [3],

a_{3, 1} = d e^2 360 ( 2 R_{μναβ} F^{μν} F^{αβ} − 26 R_{αν} F^{μν} F^α_μ + 24 ∇_ν F^{μν} ∇_αF^α_μ + 5 R F^{μν} F_{μν} ) . (48)

It is easy to see that this expression is gauge invariant independent on the space-time dimension d. Let us now see what is the situation with the second choice of the calculational scheme, based on the operator Ĥ^∗_2 . In this case one has to use the approach described above, that is to deal with the operator (23) and use generalized covariant derivative D_μ. After an involved algebra we arrive at the expression

a_{3, 2} | | AA = de^2 2880 { 120(∇A)□(∇A) − 60F_{μν} □F^{μν} − 24∇_ν F^{μν} ∇^αF_{μα} + 24(□A^α) [ (d − 3)(□A_α) + 2∇_α(∇A) ]

− 24(∇_α∇_μA_β ) [ (∇^β∇^μA^α) − (∇^α∇^μA^β) ]

+ A^μA_μ [ (18 − 7d)R^2_{μναβ} − 8(9 − d)R^2_{μν} − 6(5 − d)R^2 ]

+ 8R_{μναβ} [ 4(∇^αA^ν )(∇^μA^β ) − 8F^{μν} F^{αβ}

− 3(d − 4)(∇^μA^α)(∇^ν A^β) − R^{λναβ} A^μA_λ + 10R^{μβ} A^αA^ν ]

+ 16R_{μν} [ 10(∇A)(∇^μA^ν ) + (∇^αA^μ)(5∇_αA^ν − 2∇^ν A_α)

− (d − 5)(∇^μA^α)(∇^ν A_α) − 2R^μ_α A^αA^ν ]

+ 10R [ 2(d − 5)(∇_μA_ν )(∇^μA^ν ) − 2(∇A)^2 + 3F_{μν} F^{μν} + 2R_{μν} A^μA^ν ]

− 12(d − 2)A^αA_α□R − 48(∇^αR_{μναβ} )(∇^ν A^β A^μ)

− 24(∇^ν R)[(∇_ν A^αA_α) − (∇_αA^αA_ν )] } . (49)

The last expression is rather cumbersome and difficult to deal with. Apparently it is not gauge invariant and is different from (48). In order to complete the analysis, we need to answer two questions: (i) How we can prove that the two expressions are distinct or identical in one or another particular dimension? (ii) Is it true that the two expressions (48) and (49) are distinct, in one or another particular dimension? In case of a_3 we are mainly interested in the 6d case, where one can hope to find the gauge invariance of (49) and also the equivalence between (48) and (49).

Let us start by making the most simple test. Consider the propagation of the purely transverse part of A_μ, that means to collect the terms which contain the terms A_μ□^2A^μ in both expressions. It is important that the transverse terms can not be affected by the possible violation of gauge invariance in the expression (49), so this particular test is independent from the rest. The relatively simple calculation shows that the two propagators are identical in 6d and only in 6d. This solves one half of the item (ii), namely we learn that out of 6d the two expressions (48) and (49) are different.

We could not precisely prove that the two expressions are identical in 6d for an arbitrary metric background. It is likely, however, that this is the case. The arguments in favor of this conclusion come from the analysis and a particular simple metrics. Let us consider the case of de Sitter space-time, where one can actually check the equality of equations (48) and (49). Even in this case it is not easy to work with (49), but one can perform some qualitative analysis of the expression for a_{3, 2}. First of all, by direct inspection we can verify that the terms without scalar curvature are the same in both expressions.

As a next step, consider the terms proportional to the scalar curvature, which can be symbolically identified as RF F . In order to analyze these terms, one has to take into account also the terms proportional to the derivatives of the curvature tensor components in (49). For definiteness, we call them DR-terms. If one integrates these terms by parts, it turns out that some of them do contribute to the R^2A^2-structures. Since these terms can be written as total derivative terms in de Sitter space-time, we can introduce them in a^{(2)}_3 with an arbitrary coefficient. To make the correct choice of this coefficient, one has to additionally evaluate those terms which are proportional to R^2A^2 and choose the coefficient of the DR-terms such that they do cancel the R^2A^2 terms in (49). After that, the terms proportional to RF F , generated by integration by parts of the DR-terms, sum with the ones which come from (49) and finally turn out to be the same as (48). We do not include the corresponding formulas here, because they are rather boring.

Finally, we have a strong arguments to believe that qualitatively the situation with a_3 is the same as with the a_1 and a_2 coefficients. All these coefficients are universal (scheme independent) in the dimensions 2, 4 and 6, correspondingly. And, at the same time, they are essentially scheme dependent in other dimensions. It is easy to see that this fact implies that, in any dimension, the logarithmic divergences are scheme independent and gauge invariant. At the same time, quartic and quadratic divergences and the finite contributions are scheme dependent and, in case of the Ĥ∗_2 -based calculational scheme, they are not gauge invariant. Of course, this feature does not contradict to the gauge invariant renormalizability of the theory, but it makes the finite results scheme dependent. One has to remember that the effective action, in any particular dimension, is a sum of the series of the terms with â_0, â_1, â_2, â_3 etc. Therefore, we can conclude that the effective action is scheme dependent in any particular dimension.

The scheme dependence which we have explored (multiplicative anomaly), should be seen as a particular case of the nontrivial reaction of the effective action of quantum fields to the change of variables. The fact that such dependence can be relevant, is known for a long time (see, e.g., [53]). It is interesting to see what is the consequence of this fact for the sum of the Schwinger-DeWitt series. We perform the corresponding calculation in the next section.

4 Derivation of the one-loop formfactors

The effective action (21) can be expressed by means of the proper time integral, involving the heat kernel K(s) of the operator O,

Γ̄^1 = −1 2 ∫_∞ 0 ds s sTr K(s) . (50)

Let us derive this expression using the method developed previously in [54, 55] (see also [56] for the general review). According to Ref. [54], we can perform calculations either by using Feynman diagrams or through the heat kernel solution, which was obtained in [57, 58]. The result of the two methods are going to be the same, but the covariant heat kernel solution is much more simple, so we will use this approach.

The expression (50) can be expanded into the powers of the field strengths (curvatures),

R_{μναβ} , Ŝ_{μν} and P̂ . Up to the second order in the curvatures the expansion has the form [57]

Tr K(s) = μ^{4−2ω} (4πs)^ω ∫ d^{2ω−4}x √ g e^{−sM 2} tr { ^1 + sP̂ + s^2 [ R_{μν} f_1(−s□) R^{μν} + R f_2(−s□) R + P̂ f_3(−s□) R + P̂ f_4(−s□) P̂ + Ŝ_{μν} f_5(−s□) Ŝ^{μν} ] } . (51)

where the expressions for P̂ and Ŝ_{μν} are defined in (34) and (35), ω is the dimensional regularization parameter, μ is an arbitrary renormalization parameter with the dimension of mass and the functions f_i are given by

f_1(τ) = f(τ) − 1 + τ/6 τ^2

, f_2(τ) = f(τ) 288 + f(τ) − 1 24τ − f(τ) − 1 + τ/6 8τ^2 ,

f_3 = f(τ) 12 + f(τ) − 1 2τ , f_4 = f(τ) 2 , f_5 = 1 − f(τ) 2τ , (52)

where f(τ) =

∫_1 0 dα e^{α(1−α)τ} , τ = −s□ . After some algebra, we arrive at the integral representation for the effective action up to the second order in P̂ , Ŝ_{μν} and R_{μν} , in dimensional regularization,

Γ̄^1 = − 1

2(4π)^2 ∫ d^4x √ g ( m^2 4πμ^2 )_{ω−2} ∫_∞ 0 dt e^{−t} 5∑ k=1 { l^{F F}_k e^2F_{μν} M_k F^{μν} + l^{∗ DA}_k e^2∇_μA^μ M_k ∇_ν A^ν + l^{DA}_k e^2∇_μA^ν M_k ∇_ν A^μ + λ_k e^2R_{μν} M_k A^ν A^μ

+ λ^∗_k e^2A^ν A^μM_k R_{μν} + l^{AR}_k e^2A_αA^αM_k R + l^{RA}_k e^2RM_k A_αA^α + l^∗_kR_{μν} M_k R^{μν} + l_kR M_k R } , (53)

where

M_1 = f(tu) t^{ω−1} , M_2 = f(tu) t^ωu , M_3 = f(tu) t^{ω+1}u^2

, M_4 = 1 t^ωu , M_5 = 1 t^{ω+1}u^2 , and the nonzero coefficients for Ĥ^∗_1 have the form

l_2 = − 1 16 l_3 = − 1 8 , l_4 = 1 24 l_5 = 1 8 , l^∗_2 = 1 4 , l^∗_3 = 1 , l^∗_4 = − 1 12 , l^∗_5 = −1 , l^{F F(1)} 1 = 1 , l^{F F(1)}_2 = 2 , l^{F F(1)}_4 = −2 .

Indeed, the coefficients l_k and l^∗_k are the same as for the free fermion field [55], while the last set of coefficients is due to the interaction with A_μ and do not have analogues in the free field case. For Ĥ^∗_2 , we have l^{F F(2)} 1 = 1 4 , l^{F F(2)}_2 = − 1 2 , l^{F F(2)}_4 = 1 2 , l^{∗ DA}_1 = − 1 2 , l^{∗ DA}_2 = −1 , l^{∗ DA}_4 = 1 ,

l^{DA}_2 = −2 , l^{DA}_4 = 2 ,

λ_2 = −1 , λ_4 = 1 , λ^∗_2 = −1 , λ^∗_4 = 1 ,

l^{AR}_1 = − 1 6 , l^{AR}_2 = −1 , l^{RA}_4 = 1 ,

l^{RA}_1 = 1 6 , l^{RA}_2 = 1 , l^{RA}_4 = −1 . (54)

As far as the purely gravitational terms were calculated in [55], here we are mainly interested in the the 1-loop corrections to the term F^2_{μν} . Let us first perform all the calculations for the operator Ĥ^∗_1 . Substitute (38) into (51), than the result into (50) and take into account only the terms with f_4 and f_5. Using the notations [54],

t = sM^2 , u = τ t = − □ M^2 ,

Y = 1 − 1 a ln (2 + a 2 − a ) , a^2 = 4□ □ − 4M^2

(55)

and the known results for the integrals [55], ( M 2 4πμ^2 )_{ω−2} ∫ ∞ 0 dt e^{−t} f(tu) t^ωu = [ ( 1 12 − 1 a^2 ) ( 1 ϵ + 1 ) − 4A 3a^2 + 1 18 ] + O(2 − ω) , ( M 2 4πμ^2 )_{ω−2} ∫ ∞ 0 dt e^{−t} 1 t^ωu = [a2 − 4 4 a^2 ( 1 ϵ + 1 ) ] + O(2 − ω) , ( M 2 4πμ^2 )_{ω−2} ∫ ∞ 0 dt e^{−t} t^{1−ω}f(ut) = ( 1 ϵ + 2A ) + O(2 − ω) , where we also denoted 1 ϵ = 1 2 − ω + ln (4πμ2 M^2 ) . After some algebra, we arrive at the explicit expression for the one-loop correction to the classical term F^2_{μν} -term,

Γ̄^{(1)}_{∼F 2μν} = − e^2 2(4π)^2 ∫ d^4x √ g F_{μν} [ 2 3 ϵ + k^{F F}_1 (a) ] F^{μν} } , (56)

where the electromagnetic formfactor has the form^4

k^{F F}_1 (a) = Y ( 2 − 8 3a^2 ) − 2 9 . (57)

4We note that this result differs from the similar expression previously derived in [1]. Unfortunately we can not indicate the source of the difference, but there are strong reasons to believe that it is not a scheme dependence which is discussed here and also in [31]. In particular, the one-loop result of [1] involves double logarithmic terms which we did not meet. Because of this, it does not reproduce a known expression in the massless limit.

A simple way to check our result is to compare it to the expressions for the Schwinger- DeWitt coefficients derived in the previous section. Let us remember that the calculation of the formfactor presented above has been performed in 4d. There is nothing that can be compared to a_1, just because the quadratic divergences vanish when the dimensional regularization is used. The comparison to a_2 is absolutely successful and complete, because here we meet two perfect correspondences. First, it is easy to see that the coefficient of the pole term of (56) is exactly the a_2 from (45) at 4d. Second, it is easy to check that the UV limit a → 0 of the formfactor (57) perfectly corresponds to the coefficient of the pole term of (56).

Furthermore, we can partially compare our formfactor (57) to the expression for the a_{3, 1} in (48). Unfortunately, the complete verification is not possible because certain part of (48) correspond to the next, third, order in the heat kernel solution, which we do not use here. So, we can compare only the F ∇∇F -type terms. If we expand the corresponding part of k^{F F}_1 (a) into power series of the parameter a, in the IR limit, where

a^2 ∼ − 4 □ M^2

, (58)

use Maxwell equation

∇_ϱF_{μν} + ∇_μF_{νϱ} + ∇_ν F_{ϱμ} = 0 (59)

and integrate by parts, we obtain the corresponding term in the effective action (48), − 1 120π^2

∇_μF^{μν} ∇_ϱF^ϱ_ν , (60)

which is actually well-known from [3].

Consider the second calculational scheme, based on the operator Ĥ^∗_2 , defined in eq. (31). The calculations are a bit more involved, but are in general analogous to the previous case. Finally, we arrive at the following result

Γ̄^{(1)}_{∼A2} = − e^2 2(4π)^2 ∫ d^4x √ g { F_{μν} [ 2 3 ϵ + k^{F F}_2 (a) ] F^{μν} + ∇_μA^μ [ Y ( 8 3a^2 − 2 ) + 2 3 ] ∇_ν A^ν + ∇_μA^ν ( 16Y 3a^2 ) ∇_ν A^μ + R_{μν} ( 8Y 3a^2 ) A^ν A^μ + A^ν A^μ ( 8Y 3a^2 ) R_{μν} + A_αA^α [ Y (1 3 − 4 3a^2 ) ] R + R [ Y ( 4 3a^2 − 1 3 ) ] A_αA^α } , (61)

k^{F F}_2 (a) = Y ( 1 + 4 3a^2 ) + 1 9 . (62)

Once again, the UV test and the comparison with the a_{3, 2} are perfectly successful. However, the low-energy expression is not (60) anymore in this case, instead we have − 1 160π^2

∇_μF^{μν} ∇_ϱF^ϱ_ν , (63) as we will see in section 6, this divergence between (60) and (63) results also in the ambiguity in the decoupling theorem.

It is possible to make an interesting verification of the results for the two formfactors k^{F F}_1 (a) and k^{F F}_2 (a) using the coefficients â_{3, 1} and â_{3, 2}. If we expand (57) to the first order in operator □, we have

k^{F F}_1 (a) = Y ( 2 − 8 3a^2 ) − 2 9 ≃ − 2 15 □ M^2

, (64)

that gives us a term in Γ̄^{(1)} wich has the form

Γ̄^{(1)} ∼ e^2 15 (4π)^2 ∫ d^4x √ g F^{μν} □ M^2

F_{μν} . (65)

Using (59) in (65), we can see that

Γ̄^{(1)} ∼ − e^2 15 (4π)^2 ∫ d^4x √ g ∇_ν F^{μν} ∇_αF^α_μ = − e^2 180 (4π)^2 M^2 ∫ d^4x √ g (24 ∇_ν F^{μν} ∇_αF^α_μ ) , (66)

that is the same contribution given to Γ̄^{(1)} in 4d by the third term of equation (48), as it should be. To the formfactor k^{F F}_2 (a), we find

Γ̄^{(1)} ∼ − e^2 10 (4π)^2 ∫ d^4x √ g A^μ □^2 M^2

A_μ . (67)

Now if we take the contribution of (49) to Γ̄^{(1)} in 4d the coefficient proportional to A^μ □^2 A_μ is the same of (67). It is important to note that the coefficients of the terms A^μ □^2 A_μ in equations (66) and (67) are different in 4d. They are equal only in 6d as it was explained in section 3.

5 Massless limit and trace anomaly

In order to better understand the physical sense of the result (56) and also its relation with the MS-based anomaly-induced action (17), let us consider the high energy limit. As it was already explained in the previous sections, this can be done by taking the vanishing mass limit. On the other hand, this limit helps to establish the relation between the effective action (56) and the conformal anomaly (7).

Consider the high energy limit, when the mass of the quantum field (i.e. of electron) is negligible. Taking the limit a → 2 in the expression (56) with either one of the two available formfactors, we arrive at the following leading-log behavior of the electromagnetic sector:

β̃ F^{μν} ln ( □ μ^2 ) F_{μν} . (68)

Similar asymptotic behavior takes place also in the gravitational sector of the theory. For instance, the Weyl term has similar formfactor [54, 55],

β_1 C^{μναβ} ln ( □ μ^2 ) C_{μναβ} . (69)

Let us note that the same asymptotic behaviour can be recovered in the Minimal Subtraction - based scheme of renormalization [59, 40] (see also [60] for an alternative consideration), which is completely reliable in the massless case.

The expressions (68) and (69) are sufficient to derive the corresponding parts of the conformal anomaly, even in case of a local conformal symmetry. For this end, let us apply the conformal parameterization of the metric (4) and the differential relation (2). Consider the case of (68) as an example, (69) is completely analogous. If we replace the parameterization (4) into (68), the only place where the σ field shows up is the □. This operator becomes □ = e^{−2σ} [ ⊡ +O(∂σ) ] , (70)

where we denote ⊡ the D’Alembertian operator constructed with the metric ḡ_{μν} , ⊡ = ḡ^{μν} ¯∇_μ ¯∇_μν . The explicit form of the terms O(∂σ) is in fact irrelevant for us. When we apply (2), only the first term in the bracket (70) is important, because the other terms vanish after we set σ → 0. Of course, the logarithmic dependence makes ln □ μ^2

= −2σ + ln ⊡ + O(∂σ) μ^2

. (71)

Finally, after applying (2) we arrive at

< T^μ_μ >_{em} = β̃F^2_{μν} (72)

in the electromagnetic sector. In a similar way one can obtain the ωC^2-term in the general formula for anomaly, eq. (7). One has to note that the □R term and the Gauss-Bonnet term can be also derived from the local and nonlocal finite parts of effective action [57, 61]. At the same time, the □R part is a subject of an important ambiguity. The origin and mechanism for this ambiguity has been explained recently in [62] (see also [34] for the review).

6 Renormalization group, low-energy limit and decoupling

The two formfactors (57), (62) contain all necessary information about the scale dependence of the coupling parameter e at the one-loop level, within the corresponding calculational schemes. In the present section we shall mainly restrict our attention to the flat space case and discuss this dependence in details. Namely, our task here is to calculate the “physical” beta-functions in the momentum-subtraction renormalization scheme and look at their UV and IR limits.

In the MS scheme the β-function of the effective charge e is defined as

β_e(MS) = lim_{n→4} μ de dμ = 4 e^3 3 (4π)^2

. (73)

The derivation of the β-functions in the mass-dependent scheme has been described, e.g. in [63, 64]. Starting from the polarization operator, one has to subtract the counterterm at the momentum p^2 = M^2, where M is the renormalization point. Then, the momentum-subtraction β-function is defined as

β_e = lim_{n→4} M de dM . (74)

Mathematically, this is equivalent to taking the derivative (we also write the same operation in terms of a) −e p d dp = e (4 − a^2) a 4 d da (75)

of the formfactors in the polarization operator. If we apply this procedure to the formfactor k^{F F}_1 (a) of the F^2_{μν} -term, the expression for the β-function in a mass-dependent scheme is

β^1_e = e^3 6a^3 (4π)^2 [ 20a^3 − 48a + 3(a^2 − 4)^2 ln

( 2 + a 2 − a )] , (76)

that is the general result for the one-loop β-function valid at any scale^5.

As the special cases we meet the UV limit p^2 ≫ m^2, or a → 2,

β^{1 UV}_e =

4 e^3 3 (4π)^2 + O (m2 p^2 ) , (77)

that is nothing else but the MS scheme result (73) plus small correction. In the IR regime, however, when p^2 ≪ m^2, the result is quite different, and moreover depends on the calculational scheme. For the first case Ĥ^∗_1 , we have

β^{1 IR}_e = e^3 (4π)^2 · 4 M^2 15 m^2 + O (M 4 m^4 ) . (78)

This is exactly the standard form of the decoupling theorem [30].

Similar calculations starting from the formfactor k^{F F}_2 (a) give

β^2_e = e^3 12a^3 (4π)^2 { 4a(12 + a^2) − 3(a^4 − 16) ln (2 − a 2 + a )} . (79)

In the UV limit p^2 ≫ m^2 the above β-function is in agreement with the standard result (77), while in the IR limit p^2 ≪ m^2 we obtain

β^{2 IR}_e = e^3 5 (4π)^2 · M^2 m^2 + O (M 4 m^4 ) . (80)

As we can see from the expressions (78) and (80), there is a slight difference in how βfunctions go to zero in the IR limit. To discuss the physical sense of this fact, let us take the difference between the two form factors (57) and (62)

ΔF^{F F} = k^{F F}_1 (a) − k^{F F}_2 (a) = A ( 1 − 4 a^2 ) − 1 3 (81)

5This expression is essentially different from the one presented earlier in [65]. Since this publication does not contain sufficient technical details, we could not find the source of this divergence. At the same time we note that the expression of [65] does not produce the well-known large-mass limit (Appelquist and Carazzone theorem) which we successfully derive below in (78) from our general formula (76).

and expand ΔF^{F F} in power series of a. In the IR limit we have a^2 ∼ p^2 / M^2 = − □/M^2, so

ΔF^{F F} = 1 30 · □ M^2

+ O(p^3/M^3) . (82)

This is exactly the difference in the formfactors which caused the ambiguity (calculational scheme dependence) in the decoupling theorem. In order to evaluate the sourse of this difference in the effective action, we should consider what would be the new terms in equation of motion, generated by the term F^{μν} ( 1 30 · □ M^2 ) F_{μν} (83)

As this term is proportional to the operator □, if we are working in flat spaces, we use the equation (59) to obtain a term proportional to (∇_μF^{μν} )^2. This term will not influence the equations of motion in flat space in the O(e^2) approximation [3]. However, as we will discuss later on, the situation can be different in curved space.

7 Running charge

Let us now consider the running of the electromagnetic charge. The difference in the expressions for the formfactors k^{F F}_1 (a) and k^{F F}_2 (a) and eventually in the expressions for the β-functions (76) and (79), means that the effective charge (i.e., the running charge) may have different behavior for the different calculational schemes (that means, for the ones based on Ĥ^∗_1 and Ĥ^∗_2 operators). Also, we expect that the running within the Momentum Subtraction scheme will be distinct from the one within the Minimal Subtraction scheme, especially in the low-energy region. Let us check out what the real situation is.

To investigate the renormalization of the corresponding quantities, in the physical scheme, let us apply the operator −epd/dp to k^{F F}_{1,2} (a) with □ traded for −p^2. In doing so, we find the expressions for the β-functions, which can be conveniently presented as − (4π)^2 e^3 β_1 = p d dp k^{F F}_1 (a) = d dt k^{F F}_1 (a) and −

(4π)^2

e^3 β_2 = p d dp k^{F F}_2 (a) = d dt k^{F F}_2 (a) . (84)

Here t is a dimensionless parameter defined by t = ln (p/m).

The UV limit is achieved for p ≫ m, or equivalently t ≫ 1, while in the IR limit we meet inverse relations p ≪ m and t ≪ 1. With the help of the Mathematica computer software, one can calculate explicitly the above beta functions and integrate them. For a clear illustration, we plot the beta functions for both cases as functions of the parameter a (see Figure 1).

The integration of the renormalization equation corresponding to β_1 can be performed by using the Mathematica software such that the integral curve describes the running coupling constant in the physical scheme. For comparison, we plot in Figure 2 this curve together with the curve for the running parameter for the Minimal Subtraction scheme, for large value of t, where a Landau pole shows up. It is not easy to visualize a difference between both cases, which look almost identical. Actually, the curve for the running parameter in the physical scheme

Figure 1: The beta functions corresponding to formfactors k_1 (filled line) and k_2 (dashed line). The vertical axis is drawn in units of e^3/(4π)^2.

is shifted a little bit to the right. This difference can be made clear if we increase the plot scale in the region around t ∼ 5900, as illustrated in Figure 3. Here, one can see actually two vertical lines (the dashed one for the MS scheme), indicating two different Landau poles. They are, however, very close, since the corresponding values for t differs by less than 0.02%. The situation is very similar to the one described earlier for the scalar field theory [66].

The running of the effective electromagnetic charge is shown in Figure 4, where we plot e^{−2} versus t = ln (p/m). The plot for the MS case is a straight line, as it has to be. The plot for the momentum subtraction scheme represents two straight lines in the asymptotic (IR and UV) limits with the smooth transition between them in the intermediate region. It is easy to note that the curves are very similar to each other in the UV region, that is for t ≫ 1 (in fact this feature holds already for t ≥ 2). At the same time, even in the UV the two plots do not coincide and are represented by two parallel straight lines with slightly different initial points (at t = 0, that means p = μ_0 and μ = μ_0. The effect of the effective UV shift of initial point will take place not only in QED, but also in QCD and EW sectors of the SM and beyond. This effect, despite being very small, may have interesting applications. For example, one can take into account the effective shift of the initial values of the couplings when calculating the UV effects in gauge theories via the renormalization group (see, e.g., [67]). The calculations of this sort are quite relevant, including for the perspective LHC physics. Taking the effect of the masses of the quantum fields into account may, in principle, improve the precision of the results. As a particular case, the effect of the initial data shift can be also observed in the supersymmetric models such as MSSM and its extensions. As a result, there may be a slight violation of the exact convergence of the running coupling constants g, g^′ and g_s which will likely form a small triangle rather than meet in a single point. This feature of the massive theories has been already discussed in [68], but the effect can be done more explicit when using an analytic expressions

Figure 2: The curves for the running parameter e(t)^2 seem to coincide for both MS and physical scheme (in the last one we use the prescription corresponding to the formfactor k_1). Actually, both curves are slightly different as well as the Landau pole (see next Figure). We have used e(0) = 0.1.

Figure 3: The same plot as in Figure 2, viewed with more detail around t ∼ 5900. Here the two vertical lines indicate different Landau poles. The dashed line corresponds to the MS scheme. The value for t corresponding to the poles differ each other by less than 0.02%.

Figure 4: Curves for e(t)^{−2}. The dashed line corresponds to the MS scheme and the continuous line for the momentum subtraction scheme. For higher t, both curves are parallel straight lines. Substantial difference between the two plots takes place for t < 1.

for the β-functions.

8 On the conformal violation in massive case

In the previous sections we have considered the existing interface between the quantum contributions coming from the massive and massless fields loops. In particular, we have seen that, in the high energy limit, the formfactors and the β-functions tend to the ones in the massless case, that means they become close to the ones in the minimal subtraction scheme of renormalization (MS, in our case). As we already learned in section 2, in this situation the violation of local conformal symmetry occurs due to anomaly and the corresponding EA can be presented in a closed form (17).

On the contrary, the low-energy quantum effects are characterized by the phenomenon of decoupling [30]. As a result, in the IR limit the quantum effects are quadratically suppressed and one can rely on the classical Maxwell equations. An interesting question is what is the difference between the violation of local conformal symmetry in the “far UV” limit and in the “far IR” limit, where we have a remnant quantum effects. Let us emphasize that there is no contradiction in having two different forms for the violation of conformal symmetry, because they correspond to the two different physical situations.

Let us first compare the dependences on the conformal factor in the two symmetry-violating terms. For the sake of simplicity we can take σ = const, that means the global conformal symmetry. The situation for the local case will not be very different. In the UV limit, exactly as in the purely massless case we have, according to the eq. (71), the linear dependence on σ. Of course, the same result follows from the complete expression (17) derived for the preciselymassless case. On the contrary, in the situation of IR decoupling, we can take a lowest order terms directly from the a_3-coefficient. In this case one meets the F □F -type expression (83) and, also, RF F -type terms. In both cases the σ-dependence is exponential, that means the symmetry is violated by the terms which have a scaling law e^{−2σ}. So, it looks like the scaling of the symmetry-violating terms is even stronger for the low-energy sector. However, this is nothing but a wrong impression.

One can view the situation from a different position, if analyzing this question using the calculated expression (56). Then the physical sense of decoupling in the low-energy limit becomes much more explicit. If we compare the F □F -type expression (83) and the classical term F^2_{μν} , it is clear that the former has an extra factor of p^2/m^2, where p^2 is the square of the momentum of the photon and the m^2 is the square of the mass of the electron. In the low-energy limit p^2 ≪ m^2, hence we meet the simplest (and very clear) form of the Appelquist and Carazzone [30] quadratic decoupling law. In the case of RF F -type terms, for most of the physical situations, the decoupling is even much stronger. The reason is that the scalar curvature is proportional to the square of the typical energy of the gravitons and this energy is much smaller than the one of the photon. For instance, in the cosmological setting we have R ∝ H^2, where H is the Hubble parameter. In the nowaday Universe the corresponding values are H_0 ≈ 10^{−42} GeV for the Hubble parameter and ϵ = √ p^2 ≈ 10^{−12} GeV for the energy of the CMB photon. Similar relation between the two quantities holds during the most of the evolution of the Universe. In this situation, the most important low-energy contribution to the violation of conformal symmetry comes from the (83) term, which has a nontrivial flat limit.

9 Discussions and summary

The two distinct approaches to the derivation of one-loop quantum corrections to the photon sector of the curved-space QED have been explored. First, we derived the anomaly-induced action, coming from the integration of conformal anomaly. The effective action which we gain in this way has an enormous advantage of being exact, in the sense it is not related to some particular form of series expansion, except the one into the loops (taken in the first order). The representations obtained here can serve, in principle, as a consistent background for the investigation of quantum processes in early universe, when the masses of quantum matter (fermionic) fields are irrelevant. The anomaly-induced action has yet another advantage of being scheme independent, because it is based on the Minimal Subtraction renormalization scheme and is, after all, controlled by the one-loop divergences.

On the other hand, in the massive case there is the violation of conformal symmetry coming from the formfactor in the electromagnetic sector of QED in curved space-time. This calculation is based on the physical renormalization scheme and hence it is supposed to be more adequate in the later universe, when the masses of the fields play an important role. The price one has to pay for a more consistent physical approach is related to the restricted power of the available calculational methods, which are equivalent to the use of common Feynman diagrams for the linearized metric perturbations on the flat space-time background. The corresponding result which we obtain here includes terms which are quadratic in F_{μν} and may also depend on the curvature tensor. It is complete in the case of a flat spacetime background, but it is not supposed to be a complete one for the curved spacetime, where we can expect many higher order in curvature corrections which can not be calculated exactly. An interesting point is that we have found that the quantum correction depends on the choice of the calculational scheme [31]. Thus we have proven the existence of the nonlocal and renormalization independent MA in quantum field theory. One of the consequences of this anomaly is the ambiguity in the prediction of the Appelquist and Carazzone theorem [30], which provides two different coefficients of the quadratic decoupling law at low energies.

Since the quantum corrections in the electromagnetic sector include some ambiguity in the IR region, one should ask which one of the two schemes gives a correct result. In our opinion the advantage should be given to the one derived through the operator Ĥ^∗_1 , because it is more natural and preserves gauge invariance. However, it is worthwhile to be aware of the ambiguity which is a manifestation of a typical property for the off-shell effective action in quantum field theory. In the present case this ambiguity becomes essential due to the presence of an external gravitational field. One can note that the simpler form of quantum correction (17), derived via conformal anomaly, is also ambiguous due to the presence of an arbitrary functional S_c. Of course, the two kind of ambiguities are unrelated, but they can be seen as manifestations of a general feature of effective action.

Acknowledgments

I.Sh. is grateful to I. Buchbinder and B. Guberina for stimulating conversations on the subject of scheme dependence and to J. Solà for the explanation concerning MS-based renormalization group in particle physics. Authors are grateful to CNPq, FAPEMIG and FAPES for support. The work of I.Sh. has been also supported by ICTP.

References

[1] K.A. Milton, Phys. Rev. D15 (1977) 2149.

[2] F. A. Berends and R. Gastmans, Ann. of Physics, 98 (1976) 225; Phys. Lett. B55 (1975) 311.

[3] I.T. Drummond and S.J. Hathrell, Phys. Rev. D 22 (1980) 343. [4] F.D. Mazzitelli and F.M. Spedalieri, Phys. Rev. D52 (1995) 6694; astro-ph/9505140. [5] G.M. Shore, Nucl. Phys. B646 (2002) 281; gr-qc/0205042.

[6] I.G. Avramidi and G. Fucci, Low-Energy Effective Action in Non-Perturbative Electrodynamics in Curved Spacetime, arXiv:0902.1541 [hep-th];

G. Fucci, Non-Perturbative One-Loop Effective Action for Electrodynamics in Curved Spacetime, arXiv:0906.2430 [hep-th].

[7] F. Bastianelli, J.M. Davila and Ch. Schubert, JHEP 0903 (2009) 086; arXiv:0812.4849;

F. Bastianelli and C. Schubert, JHEP 0502 (2005) 069, gr-qc/0412095; F. Bastianelli, U. Nucamendi, C. Schubert and V.M. Villanueva, JHEP 0711 (2007) 099; arXiv:0710.5572 (gr-qc).

[8] J.I. Latorre, P. Pascual and R. Tarrach, Nucl. Phys. B437 (1995) 60; hep-th/9408016. [9] A. Ashoorioon and R.B. Mann, Phys. Rev. D71 (2005) 103509; gr-qc/0410053. [10] T. Prokopec, Cosmological magnetic fields from photon coupling to fermions and bosons in inflation, astro-ph/0106247;

T. Prokopec, O. Tornkvist and R.P. Woodard, Phys. Rev. Lett. 89 (2002) 101301, astroph/0205331;

T. Prokopec and E. Puchwein, JCAP 0404 (2004) 007; astro-ph/0312274. [11] W. Dittrich and H. Gies, Phys. Rev. D58 (1998) 025004; hep-ph/9804375 [12] M. Novello and S.E. Perez Bergliaffa, Phys. Rept. 463 (2008) 127; arXiv:0802.1634 [astro- ph] [13] A.B. Balakin and W. Zimdahl, Phys. Rev. D71 (2005) 124014; astro-ph/0504228. [14] M.S. Turner, L.M. Widrow, Phys. Rev. D37 (1988) 2743. [15] A. Dolgov, Phys. Rev. D48 (1993) 2499; hep-ph/9301280.

[16] D.A.R.Dalvit, F.D.Mazzitelli and C.Molina-Paris, Phys. Rev. D63 (2001) 084023 [arXiv:hep-th/0010229].

[17] B.A. Bassett, G. Pollifrone, Sh. Tsujikawa and F. Viniegra, Phys. Rev. D63 (2001) 103515;

astro-ph/0010628.

G. Lambiase, A.R. Prasanna, Phys. Rev. D70 (2004) 063502; gr-qc/0407071. K. Bamba and M. Sasaki, JCAP 0702 (2007) 030; astro-ph/0611701.

[18] E.A. Calzetta, A. Kandus and F.D. Mazzitelli, Phys. Rev. D57 (1998) 7139; astroph/9707220; E.A. Calzetta and A. Kandus, Phys. Rev. D65 (2002) 063004; astroph/0110341.

[19] D. Grasso and H.R. Rubinstein, Phys. Repts. 348 (2001) 163. [20] M. Giovannini, Lect. Notes Phys. 737 (2008) 863; astro-ph/0612378. [21] I.B. Khriplovich, Phys. Lett. B346 (1995) 251;

G.M. Shore, Nucl. Phys. B460 (1996) 379;

A.D. Dolgov and I.D. Novikov, Phys. Lett. B442 (1998) 82; G.M. Shore, Nucl. Phys. B605 (2001) 455.

[22] J.-Ph. Bruneton, Phys. Rev. D75 (2007) 085013; gr-qc/0607055;

E.J. Ferrer, V. de la Incera and A. Romeo, Phys. Lett. B515 (2001) 341, hep-ph/0107229; E.J. Ferrer and V. de la Incera, TSPU Vestnik 44N7 (2004) 88, hep-ph/0408229. S. Mohanty and A.R. Prasanna, Nucl. Phys. B526 (1998) 501, e-Print: gr-qc/9804017; A.R. Prasanna and S. Mohanty, Class. Quant. Grav. 20 (2003) 3023; gr-qc/0306021. P. Teyssandier, Annales Fond. Broglie 29 (2004) 173; gr-qc/0303081;

[23] G.M. Shore, Contemp. Phys. 44 (2003) 503; gr-qc/0304059. [24] R. Lafrance and R.C. Myers, Phys. Rev. D51 (1995) 2584; hep-th/9411018. [25] R.-G. Cai, Nucl. Phys. B524 (1998) 639; gr-qc/9801098.

[26] A.B. Balakin, V.V. Bochkarev and J.P.S. Lemos Phys. Rev. D77 (2008) 084013. [27] G. Barton, K. Scharnhorst, J. Phys. A26 (1993) 2037;

K. Scharnhorst, Annalen Phys. 7 (1998) 700; hep-th/9810221;

M.V. Cougo-Pinto, C. Farina, F.C. Santos and A. Tort, J. Phys. A32 (1999) 4463, hepth/9811062; Phys. Lett. B446 (1999) 170.

[28] M. Novello, V.A. De Lorenci, J.M. Salim, R. Klippert, Phys. Rev. D61 (2000) 045001;

V.A. De Lorenci, N. Figueiredo, H.H. Fliche, M. Novello, Astron. Astrophys. 369 (2001) 690; astro-ph/0102296;

V.A. De Lorenci, R. Klippert, M. Novello and J.M. Salim, Phys. Lett. B482 (2000) 134; gr-qc/0005049.

[29] Yu.N. Obukhov, T. Fukui and G.F. Rubilar, Phys. Rev. D62 (2000) 044050; gr-qc/0005018;

F.W. Hehl and Y.N. Obukhov, Lect. Notes Phys. 562 (2001) 479; gr-qc/0001010. [30] T. Appelquist and J. Carazzone, Phys. Rev. 11D (1975) 2856.

[31] B. Gonçalves, G. de Berredo-Peixoto and I.L. Shapiro, Exact formfactors in the one-loop curved-space QED and the nonlocal multiplicative anomaly. Preprint arXiv: 0904.4171 (hepth).

[32] M.J. Duff, Observations On Conformal Anomalies, Nucl. Phys. B125 (1977) 334;

S. Deser, M.J. Duff and C. Isham, Nonlocal Conformal Anomalies, Nucl. Phys. B111 (1976) 45. [33] M.J. Duff, Twenty years of the Weyl anomaly, Class. Quant. Grav. 11 (1994) 1387 [hepth/9308075].

[34] I.L. Shapiro, Local conformal symmetry and its fate at quantum level. 5th International Conference on Math. Methods in Physics (IC 2006), Rio de Janeiro, Brazil, 2006, PoS- JHEP 03 (2006) 1, [hep-th/0610168].

[35] R.J. Riegert, A Nonlocal Action For The Trace Anomaly. Phys. Lett. B134 (1984) 56;

E.S. Fradkin and A.A. Tseytlin, Conformal Anomaly In Weyl Theory And Anomaly Free Superconformal Theories, Phys. Lett. B134 (1984) 187.

[36] I.L. Buchbinder, S.D. Odintsov and I.L. Shapiro, Phys. Lett. B162 (1985) 92;

J.A. Helayel-Neto, A. Penna-Firme and I. L. Shapiro, Phys.Lett. B479 (2000) 411; grqc/9907081.

[37] I.L. Shapiro, J. Solà, Phys. Lett. B530 (2002) 10; hep-ph/0104182;

A.M. Pelinson, I.L. Shapiro and F.I. Takakura, Nucl. Phys. B648 (2003) 417. [38] I. L. Shapiro and A. G. Jacksenaev, Phys. Lett. B324 (1994) 284.

[39] R. Balbinot, A. Fabbri and I.L. Shapiro, Phys. Rev. Lett. 83 (1999) 1494; Nucl. Phys. B559 (1999) 301.

[40] I.L. Buchbinder, S.D. Odintsov and I.L. Shapiro, Effective Action in Quantum Gravity, (IOP Publishing, Bristol, 1992).

[41] G. De Berredo-Peixoto, Mod. Phys. Lett. A16 (2001) 2463.

[42] M. Kontsevich and S. Vishik, Geometry of determinants of elliptic operators, hepth/9406140; In Functional Analysis on the Eve of the 21st Century, Progress in Math. 131, Birkhuser Verlag, 1995;

Determinants of elliptic pseudodifferential operators, hep-th/9404046.

[43] E. Elizalde, L. Vanzo and S. Zerbini, Commun. Math. Phys. 194 (1998) 613;

G. Cognola, E. Elizalde and S. Zerbini, Commun. Math. Phys. 237 (2003) 507, hepth/9910038;

E. Elizalde, G. Cognola and S. Zerbini, Nucl. Phys. B532 (1998) 407; E. Elizalde and M. Tierz, J. Math. Phys. 45 (2004) 1168, hep-th/0402186.

[44] B.S. DeWitt, Dynamical Theory of Groups and Fields. (Gordon and Breach, 1965). [45] G. t’Hooft and M. Veltman, Ann. Inst. H. Poincare A20 (1974) 69. [46] A.O. Barvinsky and G.A. Vilkovisky, Phys. Rep. 119, (1985) 1. [47] E. Elizalde, Zeta regularization techniques with applications, (World Scientific, 1994). [48] T.S. Evans, Phys. Lett. B457 (1999) 127;

[49] J.S. Dowker, On the relevance of the multiplicative anomaly, hep-th/9803200; [50] J.J. McKenzie-Smith and D.J. Toms, Phys. Rev. D58 (1998) 105001. [51] P.B. Gilkey, J. Diff. Geom. 10 (1975) 601.

[52] I.G. Avramidi, Covariant methods for the calculation of the effective action in quantum field theory and investigation of higher-derivative quantum gravity. (PhD thesis, Moscow University, 1986); hep-th/9510140.

[53] I.V. Tyutin, Yad. Fiz. (Physics of Atomic Nuclei) 35 (1982) 222 (in Russian). [54] E.V. Gorbar and I.L. Shapiro, JHEP 02 (2003) 021 [hep-ph/0210388] [55] E.V. Gorbar and I.L. Shapiro, JHEP 06 (2003) 004 [hep-ph/0303124]; [56] I.L. Shapiro, Effective action of vacuum: the semiclassical approach, Class. Quantum Grav.

(Topical Review) 25 (2008) 103001.

[57] A.O. Barvinsky and G.A. Vilkovisky, Nucl. Phys. B333 (1990) 471. [58] I. G. Avramidi, Yad. Fiz. (Sov. Journ. Nucl. Phys.) 49 (1989) 1185. [59] I.L. Buchbinder and J.J. Wolfengaut, Class. Quant. Grav. 5 (1988) 1127. [60] A. Dobado and A.L. Maroto, Phys. Rev. D60 (1999) 104045.

[61] A.O. Barvinsky, Yu.V. Gusev, G.A. Vilkovisky and V.V. Zhitnikov, Nucl.Phys. B439 (1995) 561.

[62] M. Asorey, E.V. Gorbar and I.L. Shapiro, Class. Quant. Grav. 21 (2003) 163;

M. Asorey, G. de Berredo-Peixoto and I.L. Shapiro, Phys. Rev. D74 (2006) 124011.

[63] P. Ramond, Field Theory : A Modern Primer (Westview Press, 2001). [64] A. V. Manohar, Effective Field Theories (Schladming 1996, Perturbative and nonperturbative aspects of quantum field theory, [hep-ph/9606222]).

[65] J.C. Su, X.X. Yi and Y.H. Cao, J. Phys. G25 (1999) 2325; Erratum-ibid. G31 (2005) 855;

hep-th/0505017.

[66] G. de Berredo-Peixoto, E.V. Gorbar and I.L. Shapiro, Class. Quantum Grav. 21 (2004) 2281.

[67] G. Degrassi, S. Fanchiotti, A. Sirlin Nucl. Phys. B351 (1991) 49;

L. Alvarez-Gaume, J. Polchinski, M, B. Wise Nucl. Phys. B221 (1983) 495; M. S. Carena, S. Pokorski, C.E.M. Wagner, Nucl. Phys. B406 (1993) 59, hep-ph/9303202; M. S. Carena , M. Olechowski, S. Pokorski, C.E.M. Wagner, Nucl. Phys. B426 (1994) 269, hep-ph/9402253.

[68] M. Binger and S.J. Brodsky, Phys. Rev. D69 (2004) 095007, hep-ph/0310322.